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Preface To Volume I1

This volume describes the advances in the quantum theory of fields that
have led to an understanding of the electroweak and strong interactions
of the elementary particles. These interactions have all turned out to be
governed by principles of gauge invariance, so we start here in Chapters
15-17 with gauge theories, generalizing the familiar gauge invariance of
electrodynamics to non-Abelian Lie groups.

Some of the most dramatic aspects of gauge theories appear at high
energy, and are best studied by the methods of the renormalization group.
These methods are introduced in Chapter 18, and applied to quantum
chromodynamics, the modern non-Abelian gauge theory of strong in-
teractions, and also to critical phenomena in condensed matter physics.
Chapter 19 deals with general spontaneously broken global symmetries,
and their application to the broken approximate SU(2)} X SU(2) and
SU3) x SU(3) symmetries of quantum chromodynamics. Both the renot-
malization group method and broken symmetries find some of their most
interesting applications in the context of operator product expansions,
discussed in Chapter 20.

The key to the understanding of the eleciroweak interactions is the
spontaneous breaking of gauge symmetries, which are explored in Chap-
ter 21 and applied to superconductivity as well as to the electroweak
interactions. Quite apart from spontaneous symmetry breaking is the
possibility of symmetry breaking by quantum-mechanical effects known
as anomalies. Anomalies and various of their physical implications are
presented in Chapter 22. This volume concludes with a discussion in
Chapter 23 of extended field configurations, which can arise either as new
ingredients in physical states, such as skyrmions, monopoles, or vortex
lines, or as non-perturbative quantum corrections to path integrals, where
anomalies play a crucial role.

It would not be possible to provide a coherent account of these de-
velopments if they were presented in a historical order. 1 have chosen
instead to describe the material of this book in an order that seems to
me to work best pedagogically — I introduce each topic at a point where

Xvil



xviil Preface

the motivation as well as the mathematics can be understood with the
least possible reference to material in subsequent chapters, even where
logic might suggest a somewhat different order. For instance, instead of
having one long chapter to introduce non-Abelian gauge theories, this
material is split between Chapters 15 and 17, because Chapter 15 provides
a motivation for the external field formalism introduced in Chapter 16,
and this formalism is necessary for the work of Chapter 17.

In the course of this presentation, the reader will be introduced to
various formal devices, including BRST invariance, the quantum effec-
tive action, and homotopy theory. The Batalin—Vilkovisky formalism is
presented as an optional side track. It is introduced in Chapter 15 as
a compact way of formulating gauge theories, whether based on open
or closed symmetry algebras, and then used in Chapter 17 to study the
cancellation of infinities in ‘non-renormalizable’ gauge theories, including
general relativity, and in Chapter 22 to show that certain gauge theo-
ries are anomaly-free to all orders of perturbation theory. The effective
field theory approach is extensively used in this volume, especially in
applications to theories with broken symmetry, including the theory of
superconductivity. 1 have struggled throughout for the greatest possible
clarity of presentation, taking time to show detailed calculations where I
thought it might help the reader, and dropping topics that could not be
clearly explained in the space available.

The guiding aim of both Volumes I and II of this book is to explain to
the reader why quantum field theory takes the form it does, and why in
this form it does such a good job of describing the real world. Volume I
outlined the foundations of the quantum theory of fields, emphasizing the
reasons why nature is described at accessible energies by effective quantum
field theories, and in particular by gauge theories. (A list of chapters of
Volume I is given at the end of the table of contents of this volume.) The
present volume takes quantum field theory and gauge invariance as its
starting points, and concentrates on their implications.

This volume should be accessible to readers who have some familiarity
with the fundamentals of quantum ficld theory. It is not assumed that
the reader is familiar with Volume I (though it wouldn’t hurt). Aspects of
group theory and topology are explained where they are introduced.

Some of the formal methods described in this volume (such as BRST
invariance and the renormalization group) have important applications
in speculative theories that involve supersymmetry or superstrings. 1 am
enthusiastic about the future prospects of these theories, but [ have not
included them in this book, because it seems to me that they require a
whole book to themselves. (Perhaps supersymmetry and supergravity will
be the subjects of a Volume I11.) I have excluded some other interesting
topics here, such as finite temperature field theory, lattice gauge calcula-



Preface XX

tions and the large N, approximation, because they were not needed to
provide either motivation or mathematical techniques for the rest of the
book, and the book was long enough.

The great volume of the literature on quantum field theory and its
applications makes it impossible for me to read or quote all relevant
articles. I have tried to supply citations to the classic papers on each
topic, as well as to papers that describe further developments of material
covered here, and to references that present detailed calculations, data, or
proofs referred to in the text. As before, the mere absence of a citation
should not be interpreted as a claim that the material presented is original,
but some of it 1s.

In my experience this volume provides enough material for a one-year
course for graduate students on advanced topics in quantum field theory,
or on elementary particle physics. Selected parts of Volumes I and Il
would be suitable as the basis of a compressed one-year course on both
the foundations and the modern applications of quantum field theory. I
have supplied problems for each chapter. Some of these problems aim
simply at providing exercise in the use of techniques described in the
chapter; others are intended to suggest extensions of the results of the
chapter to a wider class of theories.

* ok ok

I must acknowledge my special intellectual debt to colleagues at the
University of Texas, notably Luis Boya, Phil Candelas, Bryce and Cecile
De Witt, Willy Fischler, Joaquim Gomis, and Vadim Kaplunovsky, and
especially Jacques Distler. Also, Luis Alvarez-Gaume, Sidney Coleman,
John Dixon, Tony Duncan, Jiirg Frohlich, Arthur Jaffe, Marc Henneaux,
Roman Jackiw, Joe Polchinski, Michael Tinkham, Cumrun Vafa, Don
Weingarten, Edward Witten and Bruno Zumino gave valuable help with
special topics. Jonathan Evans read through the manuscript of this
volume, and made many valuable suggestions. Thanks are due to Alyce
Wilson, who prepared the illustrations and typed the IATEX input files
until 1 learned how to do it, to Terry Riley for finding countless books
and articles, and to Jan Duffy for many helps. I am grateful to Maureen
Storey and Alison Woollatt of Cambridge University Press for working to
ready this book for publication, and especially to my editor, Rufus Neal,
for his continued friendly good advice.

STEVEN WEINBERG
Austin, Texas
December, 1995



Notation

Latin indices i, j,k, and so on generally run over the three spatial coordi-
nate labels, usnally taken as 1, 2, 3. Where specifically indicated, they run
over values 1, 2, 3, 4, with x* = ir.

Greek indices g, v, etc. from the middle of the Greek alphabet generally
run over the four spacetime coordinate labels 1, 2, 3, 0, with x° the time
coordinate.

Greek indices o, §, etc. from the beginning of the Greek alphabet generally
run over the generators of a symmetry aigebra.

Repeated indices are generally summed, unless otherwise indicated.

The spacetime metric 7, is diagonal, with elements %)) = 3 = 33 =
1: Hoo = —1.

The d’Alembertian is defined as O = »*'0%/0x#0x" = V? — 92 /012, where
V2 is the Laplacian 92/0x/dx'.

The ‘Levi-Civita tensor’ €##? is defined as the totally antisymmetric
quantity with €123 = 1.

Spatial three-vectors are indicated by letters in boldface.
Three-vectors in isospin space are indicated by arrows.

A hat over any vector indicates the corresponding unit vector: Thus,
v=v/|v|.

A dot over any quantity denotes the time-derivative of that quantity.

Dirac matrices vy, are defined so that y,y, + yvy, = 2n,. Also, ys5 =
0717273, and B = iy = yg.

The step function 6(s) has the value +1 for s > 0 and 0 for s < 0.



Notation Xxi

The complex conjugate, transpose, and Hermitian adjoint of a matrix or
vector A are denoted A", AT, and AT = A*T, respectively. The Hermitian
adjoint of an operator O is denoted OT, except where an asterisk is used to
emphasize that a vector or matrix of operators is not transposed. +H.c. or
+c.c. at the end of an expression indicates the addition of the Hermitian
adjoint or complex conjugate of the foregoing terms. A bar on a Dirac
spinor u is defined by # = u'f. The antifield of a field y in the Batalin—
Vitkovisky formalism is denoted y* rather than y* to distinguish it from
the ordinary complex conjugate or the antiparticle field.

Units are usually used with i and the speed of light taken to be unity.
Throughout —e is the rationalized charge of the electron, so that the fine
structure constant is a = e?/4n ~ 1/137.

Numbers in parenthesis at the end of quoted numerical data give the
uncertainty in the last digits of the quoted figure. Where not otherwise
indicated, experimental data are taken from ‘Review of Particle Properties,’
Phys. Rev. D50, 1173 (1994).



15
Non-Abelian Gauge Theories

The quantum field theories that have proved successful in describing the
real world are all non-Abelian gauge theories, theories based on principles
of gauge invariance more general than the simple U(1) gauge invariance
of quantum electrodynamics. These theories share with electrodynamics
the attractive feature, outlined at the end of Section 8.1, that the existence
and some of the properties of the gauge fields follow from a principle
of invariance under local gauge transformations. In electrodynamics,
fields wu(x) of charge e, undergo the gauge transformation i,(x) —
explie, A(X))ys(x) with arbitrary A(x). Since d,1pn(x) does not transform
like y,(x), we must introduce a field 4,(x) with the gauge transformation
property A,(x) — A,(x)}-+0,A(x), and use it to construct a gauge-covariant
derivative 0,apy(x)—ien A, (x)a(x), which transtorms just like y,(x) and can
therefore be used with 1,(x) to construct a gauge-invariant Lagrangian. In
a similar way, the existence and some of the properties of the gravitational
field g,y (x) in general relativity follow from a symmetry principle, under
general coordinate transformations.” Given these distinguished precedents,
it was natural that local gauge invariance should be extended to invariance
under local non-Abelian gauge transformations.

In the original 1954 work of Yang and Mills,’ the non-Abelian gauge
group was taken to be the SU(2) group of isotopic spin rotations, and
the vector fields analogous to the photon field were interpreted as the
fields of strongly-interacting vector mesons of isotopic spin unity. This
proposal immediately encountered the obstacle that these vector mesons
would have to have zero mass, like photons, and it seemed that any such
particles would already have been detected. Another problem was that,
like all strong-interaction theories at that time, there was nothing that

* Of course, both local gauge invariance and gencral covariance can be realized in
a trivial way, by taking 4,(x) and g, (x) to be non-dynamical c-number functions
that simply charactcrize a choice of phase or coordinate system, respectively. These
symmetries become physically significant when we treat 4,(x) and g,,(x) as dynamical
fields, over which we integrate in calculating S-matrix elements.

1



2 15 Non-Abelian Gauge Theories

could be done with it; it seemed that the large coupling constant of the
theory would preclude any use of perturbation theory.

Gauge theories were soon generalized to arbitrary non-Abelian gauge
groups,” and their quantization continued to be studied mathematically,
notably by Feynman,> Faddeecv and Popov,® and De Witt,’> in part as
a warming up exercise for the harder problem of quantizing general
relativity. They showed that the naive Feynman rules obtained by simply
inspecting the Lagrangian need to be supplemented by additional ‘ghost’
loops. However, the physical relevance of these theories did not begin to
be understood until the late 1960s. It eventually turned out that all of
the observed interactions of elementary particles are generated by vector
fields associated with local gauge symmetries; the corresponding spin 1
particles are either very heavy, as a result of a spontaneous breakdown of
the gauge symmetry, or are ‘trapped’, as a result of the rise of the coupling
constant at long distances. These matters will be the subjects respectively
of Chapters 21 and 18. In this chapter we shall explore the formulation
of the non-Abelian gauge theories, and the derivation of their Feynman
rules.

15.1 Gauge Invariance

We assume that the Lagrangian of our theory is invariant under a set of
infinitesimal transformations on the matter fields yp/(x)

O (x) = i€*(x)(ta) " Pm(x) , (15.1.1)

with some set of independent constant matrices™ ¢,, and with real in-
finitesimal parameters ¢*(x) which (as for gauge transformations in elec-
trodynamics) are allowed to depend on position in spacetime. We assume
that these symmetry transformations are the infinitesimal part of a Lie
group; as shown in Section 2.2, this requires that the t, obey commutation
relations

[ta, t5) = i C7 oty (15.1.2)

where C7,4 are a set of real constants, known as the structure constants
of the group. The antisymmetry of the commutator immedsately tells us

** In this book we shall generally label symmetry generators with letters «, f, etc. from
the beginning of the Greek alphabet, in order to keep these labels distinct from the
indices u, v, etc. from the middle of the Greek alphabet that arc used to label spacctime
coordinates. Later, tn dealing with broken symmetries, we will often use letters a, b,
etc. from the beginning of the Latin alphabet to label generators of spontaneously
broken symmetries, and letters i, j, etc. from the middle of the Latin alphabet to label
generators of unbroken symmetries.
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that the structure constants are similarly antisymmetric:

Clop = —Cg, . (15.1.3)
Also, from the Jacobj identity
0= {[Ia,fﬂ],f-},] + [[r},,ra],rﬁ] + [[rﬁ,r],],ra] (15.1.4)
we see that the Cs satisfy the further constraint
0= C%4C%, + C°uC%p + C%%,C, . (15.1.5)

Any set of constants C?,; that satisfy Eqs. (15.1.3) and (15.1.5) define at
least one set of matrices t, :

(ta)f, = —ich,,, (15.1.6)
that satisfy the commutation relations (15.1.2) with structure constants
C?aﬁi

[anarAﬁ] = ic},aﬁIA}) . (1517)

This 15 known as the ‘adjoint’ (or ‘regular’) representation of the Lie
algebra with structure constants C%,.

For example, in the original Yang-Mills theory, the matter fields were
the doublet consisting of proton and neutron fields y, and y,:

v = ()

and the ¢, with « = 1,2,3 were the isospin matrices

L1001 10 i L_Lrto
1 = 3 1 0 ’ 2= 3 i 0 s 3= 2 0 1 .
These satisfy the commutation relations (15.1.2) with

Cyu:[i = Cyaf

where as usval €54 is +1 or —1 if y,a, § is an even or an odd permutation
of 1, 2, 3, respectively, and vanishes otherwise. We recognize this as
the same as the Lie algebra (2.4.18) of the three-dimensional rotation
group; the matrices t, here furnish what we recognize as the spin 1/2
representation of this Lie algebra. The matrices (15.1.6) of the adjoint
representation are here (in a basis with rows and columns labelled 1,2,3):

00 O 0 0 i 0 —i 0
=100 —i|, 4= 00 0], th=1 0 0].

0 i O —i 0 0 0 00
This is the spin 1 representation of the Lie algebra of the rotation group.

Now consider what is needed to make the Lagrangian invariant under
the transformations (15.1.1). If there were no derivatives acting on the
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fields, the task would be easy — any function of the matter fields that was
invariant under the transformation (15.1.1) with ¢* constant would also
be invariant with ¢* arbitrary real functions of the spacetime coordinates.
This is not the case if the Lagrangian involves derivatives of the fields (as it
must), because with position—dependent functions €*(x), the derivatives of
the matter fields do not transform like the ficlds themselves. Differentiating
Eq. (15.1.1) gives

6 (2upe(x)) = 10Nt " (Buem() +i(0,6°() ) (t2)e "pm(x) . (15.18)

To make the Lagrangian invariant, we need a field A*,, whose transfor-
mation rule involves a term 8,¢*, which can be used to cancel the second
term in Eq. (15.1.8). Since this field carries an a-index, we would expect
it also to undergo a matrix transformation like Eq. (15.1.1), but with ¢,
replaced with the adjoint representation matrices (15.1.6). Let us therefore
tentatively take the transformation relation of these new ‘gauge’ fields as

sAb, = a8 + it (P )P4,
or, using Eq. (15.1.6),

SAP, =d8,6# + CP A7, . (15.1.9)
This allows us to construct a ‘covariant derivative’:’
(D,uw(x))g = Jppe(X) — iAﬁ,u(x)(rﬁ)f "pm(X) - (15.1.10)

As planned, the term d,¢# in the transformation of A#, in the second term
of Eq. (15.1.10) cancels the term proportional to @eﬁ in the transformation
of the first term, leaving us with

(S(D#‘lp){ =ie"(tx)s " auﬂ’m - icﬁya eaA?,u (Iﬁ)f " P
+ A?;u (ty )¢ & (to&)mn Yn
or, using Eq. (15.1.2),

S(Dup)e = i€’ (ta)e m(Dp'lP)m, (15.1.11)

so that D,y transforms just like v itself.

We also need to worry about derivatives of the gauge field. In order
to eliminate the term 8,8, in the transformation of &,4%,, we antisym-
metrize with respect to u and v, just as in electrodynamics. However, we
still have terms in the transformation of 8,4%, — 8,4#, proportional to
first derivatives of e(x), arising from the second term in Eq. (15.1.9). The
easiest way to construct a ‘covariant curl’, F?,, in whose transformation

t As discussed in the next section, in writing Eq. (15.1.10) we are tacitly supposing that
any coupling-constant factors like the electric charge are included in the ¢z, and hence
also in the structure constants.
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rule all such derivatives of e(x) cancel, is to consider the commutator of
two covariant derivatives acting on a matter field y:

([D,,,Dﬂ]w)f = —i(ty)r "F\ypm (15.1.12)
where
Fl, = 8,47, — 0,47, + Clopd® AP . (15.1.13)

Eq. (15.1.12) makes it obvious that F’,, must transform just like a matter
field that happens to belong to the adjoint representation:

5 FB,, =it )P, F7y, = € CPLFYy, . (15.1.14)

The reader may check by direct calculation (using the relation (15.1.5))
that the quantity F*,, defined in (15.1.13) actually has the simple trans-
formation rule (15.1.14).

For some purposes, it is useful to know that these infinitesimal gauge
transformations can be upgraded to finite transformations. A group
element can be parameterized by a set of real functions A*(x) so that it
acts on a general matter field y,(x) through the matrix transformation

pelx) = wea(x) = [exp (1tA)]  wm(x). (15.1.15)
We want the covariant derivative to transform in the same way:
(O — it A% A YA = €XPlit,A™) (O — itgAi)tp , (15.1.16)

so we must impose on A%, the transformation rule A} — A7, with

8, explitgAPy — ity exp(it,A”") Aﬁ/\ = —i exp(iraA“)tﬂAﬁ
or in other words

ta A% = exp(itpAP) 1,4%, exp(—itgA?) —i [a,t eXp(itﬁAﬁ)] exp(—itgAP) .
(15.1.17)
Eqgs. (15.1.15) and (15.1.17) reduce to the previous transformation rules
(15.1.1) and (15.1.9) in the limit where A%(x) is an infinitesimal €*(x).
From Eq. (15.1.17), we can see that by a suitable choice of Af(x), it
is always possible to make A% A(x) vanish at any one point, say x = z.
(Simply take A%*(z) to vanish, and dA%*(x)/dx* = —A%,(x) at x = z.} Also,
it is always possible to choose A#(x) so that any one spacetime component
of A*,A(x) vanishes for all o everywhere in at least a finite domain around
any given point. For instance, to make A%35(x) vanish, we must solve the
set of ordinary first-order differential equations for the parameters A#(x):

83 exp(itgAP) = —i exp(itgAF)t, A%3 (15.1.18)

which always have a solution in at least a finite domain around any
ordinary point.
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However, 1n general it 15 not possible to choose A*(x) to make all four
components A%,5(x) vanish in a finite region. For this purpose, we would
have to be able to satisty the partial differential equations

8, exp(itg APy = —i exp(itgAf) t, A%, (15.1.19)

which cannot be solved unless certain integrability conditions are satisfied.
In particular, if A% ,5(x) vanishes everywhere then so does F* ,A(x), but
since the field strength transforms homogeneously, F*,,A(x) can vanish
only if F*,,(x) does. A gauge field A%,(x) is called a ‘pure gauge’ field if
there exists a gauge transformation which makes it vanish everywhere. It is
not difficult to show that the condition that F*,, should vanish everywhere
is not only necessary but also sufficient for A%, (x) to be expressible in any
simply connected region as a pure gauge field.®

* %k k

There is a deep analogy between the construction here of objects that
transform simply under gauge transformatjons and the construction in
general relativity of objects that transform covariantly under general co-
ordinate transformations. Just as we use the gauge field to construct
covariant derivatives D,y, of matter fields with the same gauge trans-
formation properties as the matter fields themselves, so we use the affine
connection I'#,;(x) to construct covariant derivatives of tensors 7°°" ;..

TP ey =0, TP e + 17, Ti“'x___ TER R

3

which are themselves tensors. Also, from the derivatives of the gauge
field we constructed a field strength F*,, with the gauge transformatjon
property of a matter field belonging to the adjoint representation of the
gauge group; correspondingly, from the derivatives of the affine connection
we may construct a quantity:

ar

61“'1”1, ux N nooA

axx  axv ol = Pl
which transforms as a tensor, the Riemann -Christoffel curvature tensor.
The commutator of two gauge-covariant derivatives D, and D, may
be expressed in terms of the ficld-strength tensor F*,,; similarly, the
commutator of two covariant derivatives with respect to x* and x* may
be expressed in terms of the curvature:

’1 2... ’1 “ie Aees
T vk T T woky = Rl T e Rojuwc T g —-

ER]

A
R v =

Vi »

The necessary and sufficient condition for the existence of a gauge in which
the gauge field vanishes in a finite simply connected region is the vanishing
of the field-strength tensor, and the necessary and sufficient condition for
the existence of a coordinate system 1n which the affine connection vanishes
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in a finite simply connected region is the vanishing of the Riemann-
Chnstoffel curvature tensor. The analogy breaks down in one important
respect: 1n general relativity the affine connection is itself constructed from
first derivatives of the metric tensor, while in gauge theories the gauge
fields are not expressed in terms of any more fundamental fields.

15.2 Gauge Theory Lagrangians and Simple Lie Groups

The transformation rules of the gauge-field tensor F*,, and the matter
fields w and their gauge-covariant derivatives do not involve the deriva-
tives of the transformation parameters €*(x), so if the Lagrangian is con-
structed solely from these ingredients, and if it is invariant under global
transformations with €* constant, then it is invanant under gauge trans-
formations with general position-dependent €*(x). We therefore assume
that the Lagrangian satisfies these conditions: that is,

P = L(w, Dy, D,Dyp,  F*, D,F* o) (15.2.1)

with the invariance condition:

0¥ 0¥
— i(ty) 4+ ————i(ty)/ (D
aw/ (oc)zf’ Ym a(D,u'W) (rx)t" ( ,ulpm)
L . " o 0¥ -
+ a(DvD,uw/) I(Ia)/’ (DvD,qu)+ + aFﬁ‘qu yfo Vi
A
i/ 7 Ce —
+ g ClaPpF ot =0, (15.2.2)

On the other hand, the Lagrangian may not depend on the gauge field it-
self, except insofar as it appears in F*,, and in gauge-covariant derivatives
Dy. In particular, a mass term — § m“,g Ay, Ag# is ruled out.

We shall concentrate now on the terms in the Lagrangian that depend
only on F*,,. Just as in electrodynamics, for any massless particle of
unit spin the Lagrangian must contain a free-particle term quadratic in
0,4% — 6,A%,, and gauge invariance then dictates that this free-particle
term should appear as part of a term quadratic in the field-strength tensor
F*,,. Lorentz invariance and parity conservation dictate its form as

Ly =— 1 gapF* FPW (15.2.3)

with a constant matrix gsg. If we do not assume parity (or CP or T)
conservation, then we may also include in the Lagrangian a term

g;’ = — % Baﬁ E.PVPUFGH‘-F’B.OG

with another constant matrix f,4. This term is actually a derivative, and
therefore does not affect the field equations or the Feynman rules. Such a
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term would, however, have non-perturbative quantum mechanical effects,
to be discussed in Section 23.6.

Before going on to consider the properties of the matrix g, it is worth
drawing attention to the fact that it is not possible to introduce a kinematic
term for the gauge field A*,(x) without also including interactions, the
terms in Eq. (15.2.3) arising from the quadratic part of the field strength
F*,, defined by Eq. (15.1.13). This is one more respect in which non-
Abelian gauge theories resemble general relativity, where the kinematic
part of the Lagrangian for the gravitational field is contained in the
Einstein—Hilbert Lagrangian density — \/gR/SnG, which also contains
self-interactions of the field. The reasons in both cases are similar: the
gravitational field interacts with itself because it interacts with anything
that carries energy and momentum, and the gauge field interacts with
itself because it interacts with anything that transforms according to a
non-trivial representation (in this case the adjoint representation) of the
gauge group. This is in contrast to the case of electrodynamics, where the
photon does not carry electric charge, the quantum number with which
it interacts, and it is consequently possible to introduce a kinematic term
——%F wF# for the electromagnetic field that does not entail interactions.

The numerical matrix g,g may be taken symmetric, and must be taken
real to give a real Lagrangian. In order for this term to satisfy the
gauge-invariance requirement (15.2.2), we must have for all é:

gug P CEsF =0

In order for this to be true without having to impose any functional
relations among the Fs, the matrix g,; must satisfy the condition:

gaﬁcﬁyé = - g«,ﬁCﬂaa . (15.2.4)

There is one more important condition on the matrix g,g. Just as in
quantum electrodynamics, the rules of canonical quantization and the
positivity properties of the quantum mechanical scalar product require
that the matrix g,y in the Lagrangian (15.2.3) must be positive-definite.
(That is, gugu®¥ is positive for all real u, and vanishes for some real u
only if #* = 0 for all «.) This is analogous to the requircment that in the
kinematic Lagrangian —3Z3,¢$d"¢ — %mzd)z for a real scalar field ¢, the
constant Z must be positive-definite.

These requirements on the matrix g,y have far reaching implications.
They form one of a set of three equivalent conditions:

a: There exists a real symmetric positive-definite matrix g,g that satisfies
the invariance condition (15.2.4).

b: There is a basis for the Lie algebra (that is, a set of generators 7, =
S apty, with & a real non-singular matrix) for which the structure
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constants C%_ are antisymmetric not only in the lower indices § and
v but in all three indices «, § and y. (In this basis it is convenient to
drop the distinction between upper and lower indices «, §, etc., and
write C,p, in place of CG}W')

c: The Lie algebra is the direct sum of commuting compact simple and
U(1) subalgebras.”

Appendix A of this chapter presents a proof of the equivalence of the
conditions a, b, and ¢.”

Before going on to discuss the physical implications of this result, it will
be useful to say a bit more about the condition of compactness. We will
not use this here, but a compact Li¢ algebra consists of the generators of
a compact Lie group: one for which the invariant volume of the group
is finite. For instance, the rotation group is compact; the Lorentz group
is not. As a simple example of a simple Lie algebra that is not compact,
consider the commutation relations

[t1,t2] = —it3, [to,t3] =ity,  [t3,t1]] =itz

The structure constant here is real, but not completely antisymmetric; its
non-vanishing components are

Clh=-Chy=-1 Clu=-Cly=1 Ch=-Cpn=1.
The metric given by Eq. (15.A.10} is here diagonal, with elements:
gt =8n=-—gn=-—2.

This is not a positive matrix, so the Lie algebra is not compact. It is in
fact the Lie algebra of the non-compact group 0O(2,1), the Lorentz group
in two space and one time dimensions.

" Some definitions: A subalgebra 3 of a Lie algebra 4 is a linear space, spanned by
certain real linear combinations f, = % ,f, of the generators £, of %, such that # is
itself a Lie algebra, in the sense that the commutators of the ¢, with each other are
of the form [t,t,] = ic",jt;.. A subalgebra 5 is called invariant if the commutator of
any clement of the whole algebra % with any clement of the subalgebra # is in the
subalgebra J#. A simple Lie algebra is one without invariant subalgebras. A U(1)
subalgebra of % is one with just a single generator that commutes with all generators
of the whole algebra ¥. A semi-simple Lie algebra is one that has no invariant
Abelian subalgebras, ie., invariant subalgebras whosc gencrators all commute with
gach othcr. Semi-simple Lic algebras are direct sums of simple (bul not U(1)) Lie
algebras. A simple or semi-simple Lie algebra is said to be compact if the matrix
Tr{t*, ths} = —C7,5C%;, is positive-definite. The meaning and importance of the
properties of simplicity and compactness will be discussed further below. In saying
that a Lie algebra % is a direct sum of subgroups ., it is meant that it is possible to
find a basis for 4 with generators t,, for which the structurc constants take the form

Cfrna mh — 5#m5mnc(ﬂ)fah »

where C™",, is the structure constant of the subalgebra J#,.
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Two sets of generators that differ by a real non-singular linear transfor-
mation are considered to span the same Lie algebra, and generate the same
group. This is not true for complex linear transformations of generators.
In particular, any simple Lie algebra can be put into a compact form by
a change of phase of the generators in a suitable basis. For instance, for
the Lie algebra of the above example, it is only necessary to define new
generators t) = ity, ty = ity, t3 = t3, for which the commutation relations
are

[t t5] = its, [th,e5) = it}, [t5,t1] =ith.

The structure constant is now real and totally antisymmetric: C%,. = €4,.
Here g, = 204, and the algebra is compact. We recognize this, of course,
as the familiar algebra of the compact group O(3) of rotations in three
dimensions. To see that this is always possible for any simple Lie algebra,
note that the matrix g4, defined by Eq. (15.A.10) is real, symmetric, and
non-singular, so that by a real orthogonal transformation it may be put
in a diagonal form with non-zero elements along the main diagonal. It is
then only necessary to multiply all the generators that correspond in this
basis to the negative diagonal elements of g, by factors i.

We note without proof that the finite-dimensional representations of
compact Lie groups are all unitary, and the finite-dimensional repre-
sentations of compact Lie algebras are correspondingly all Hermitian.
Furthermore, it is easy to se¢ that the only Lie algebras that can have
any non-trivial representation by independent finite-dimensional Hermi-
tian matrices ¢, are direct sums of U(1) and compact simple Lie algebras.
To show this, we may simply define

gap = Tritaty} .

This matrix is obviously positive-definite, because gpu®uf = Tr{(u%t,)*}
is positive for any real w* and vanishes only if u*t, = 0, which is not
possible unless all u* vanish because the * are assumed independent.
Furthermore this g, satisfies the invariance condition (15.2.4), as can be
seen by multiplying the commutation relation (15.1.2) with ¢t; and taking
the trace; this gives

iCPopTr {tyts) = Tt {[ta, tg5) ts} = Tr {tstuty — tgtuts} ,

which is obviously antisymmetric in f and é. Having verified a, we can
rely on the above theorem to infer condition ¢, so that the Lie algebra
must be a direct sum of compact simple and U(1) subalgebras.

Let’s now return to the physics of gauge theories. In this section we have
inferred the existence of a positive symmetric real matrix g, that satisfies
the invariance condition (15.2.4), from the necessity of constructing a
suitable kinematic term in the Lagrangian for the gauge field, and in
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Appendix A of this chapter we have shown that this result is equivalent to
a condition on the Lie algebra, that it is a direct sum of compact simple
and U(1) subalgebras. For our purposes, the important thing about this
result is that the simple Lie algebras are all of certain limited types and
dimensionalities. For instance, it is easy to see that these is no simple Lie
algebra with less than three generators, because in one or two dimensions
there can be no non-zero totally antisymmetric structure constants with
three indices. With three generators, an invariant subalgebra can be
avoided by taking C?12, C?31, and C'53 all non-zero. In the basis in which
the structure constant is real and totally antisymmetric, there is obviously
only one possibility:

Caﬁ}: - Ceaﬁ}} .

Here ¢ is an arbitrary non-zero real constant, which can be eliminated by
a change of scale of the generators, t, — /¢, so the Lie algebra is

[rfx,tﬁ] = ieaﬁ?t'}; N

This may be recognized as the Lie algebra of the three-dimensional
rotation group O(3), and also of the group SU(2) of unitary unimodular
matrices in two dimensions, and was used as a basis for the original
non-Abelian gauge theory of Yang and Mills. Continuing in the same
way, it can be shown that there are no simple Lie algebras with 4, 5, 6, or
7 generators, one with 8 generators, and so on. Mathematicians (notably
Killing and E. Cartan) have been able to catalog all simple Lie algebras.
The compact forms of the simple Lie algebras form several infinite classes
of algebras of the ‘classical’ Lie groups — the unitary unimodular, unitary
orthogonal, and unitary symplectic groups — plus just five exceptional
Lie algebras. This catalog is presented in Appendix B of this chapter.

It is also shown in Appendix A that under the equivalent conditions a,
b, or ¢, the metric takes the form

Emanb — g;zémnéab (1525)

with real g,,, where m and n label the simple or U(1) subalgebras, and
a and b label the individual generators of these subalgebras. We can
eliminate the constants g, by a rescaling of the gauge fields

Apg = Ay = g Apy (15.2.6)

but then in order to keep the same formulas (15.1.10) and (15.1.13) for
D,y and F,*', we must also redefine the matrices t, and the structure
constants

~

Ima = Ima = Bmlma » (1527)
c o ¢ = g,.C) (15.2.8)

cab cab -
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That is, we can always define the scale of the gauge fields (now dropping
the tildes) so that g,, in Eq. (15.2.5) is unity:

8ap = Oup (15.2.9)

but then the transformation matrices ¢, and the structure constants Cyg,
contain an unknown multiplicative factor g, for each simple or U(l)
subalgebra. These factors are the coupling constants of the gauge theory.
Alternatively, it is sometimes more convenient to adopt some fixed though
arbitrary normalization for the t, and structure constants within each
simple or U(l) subalgebra, in which case the coupling constants appear
in the gauge-field Lagrangian (15.2.3) as the factors g, in Eq. (15.2.5).

15.3 Field Equations and Conservation Laws

Using Eq. (15.2.9) for the matrix g,z in Eq. (15.2.3), the full Lagrangian
density 1s

P = — 1 Fp F" + Loalp, D) (15.3.1)

where in the absence of gauge fields &£ p(y,d,p) would be the ‘matter’
Lagrangian density. We could, in principle, include a dependence of s
on F,,, as well as higher covariant derivatives D, D,p, D, Fy,, etc, but
we exclude these non-renormalizable terms here for the same reason as in
electrodynamics: as discussed in Section 12.3, such terms would be highly
suppressed at ordinary energies by negative powers of some very large
mass. For this reason the standard model of the weak, electromagnetic
and strong interactions has a Lagrangian of the general form (15.3.1).
The equations of motion of the gauge field are here

0¥ 0L
0, ——— =—0,F," =
* 0(0,A0) R 04y,
v L0
= —F,‘) “CyaﬁAﬁ“ —1 ﬁ Ty
and so
0, F " = =744, (15.3.2)
where #," is the current:
v . 0Py
j:x = “"F}. #C}JotﬁA[)’p —1 mfaw . (1533)

The current #," is conserved in the ordinary sense

8, 7 =0, (15.3.4)
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as can be seen either from the Euler-Lagrange equations for y and
the invariance equivalent (15.2.2) or, more easily, directly from the field
equations (15.3.2).

The derivatives in Egs. (15.3.2) and (15.3.4) are ordinary derivatives,
not the gauge-covariant derivatives D,, so the gauge invariance of these
equations is somewhat obscure. It can be made manifest by rewriting
Eq. (15.3.2) in terms of the gauge-covariant derivative of the field strength

DiF,/® = 0,F" — i(t])ayApiFy™
= 01F" — CoppApiF, (15.3.5)

Then Eq. (15.3.2) reads
D“Fg:'uv = _Jav ’ (15.3.6)

where J,” is the current of the matter fields alone

0Lm v, (15.3.7)

Ji' = —i
. oD,y

This is gauge-covariant, if .y, is gauge-invariant. Also, by operating on
Eq. (15.3.6) with D,, using the commutation relation

[Dy,D,)Fy% = _i(rA?)aﬁF?vﬂFﬁpa = —CyapFpuFp™
we see that J,” satisfies a gauge-covariant conservation law
D,J, =0, (15.3.8)

rather than the ordinary conservation law (15.3.4) obeyed by the full
current _#,". Also, it is straightforward (using Eq. (15.1.5)) to derive the
identities:

DuFav;t+Dv Fa»lv'i'DAFoc,uv =0, (1539)

which hold whether or not the gauge fields satisfy the field equations.

These results serve to underscore the profound analogy mentioned in
Section 15.1 between non-Abelian gauge theories and general relativity.
In general relativity there is a matter energy-momentum tensor TV,
analogous to J*, which satisfies a generally covariant conservation law
T ,» = 0, and stands on the right-hand side of the Einstein field equations
in their generally covariant form, R*, — %6" R = —8rnGT",. However,
T", is not conserved in the ordinary sense: d,T", does not vanish. On
the other hand, moving the non-linear terms on the left-hand side of the
Einstein equation to the right-hand side gives a field equation®

LR J——
2 LINEAR
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where 1’ is the non-tensor

1 1.
T,=T 4+ — (R"#-— - a”#R)

8n G 2 NONLINEAR
analogous to #,". Like #,", 1", is conserved in the ordinary sense
v
0,7 =0

and may be regarded as the current of energy and momentum:

_ 0 ;3
P”—/T“dx.

It contains a purely gravitational term, because gravitational fields carry
energy and momentum; without this term, t*, could not be conserved.
Similarly, #} contains a gauge-field term (the first term on the right
in Eq. (15.3.3)) because for non-Abelian groups (those with C;ﬁ + 0) the
gauge fields carry the quantum numbers with which they interact. Because
F’ 1s conserved in the ordinary sense, it can be regarded as the current
of these quantum numbers, with the symmetry generators given by the
time-independent quantities

T, = f PAYS (15.3.10)

(Also, the homogeneous equations (15.3.9) involve covariant derivatives,
just as do the Bianchi identities of general relativity.) In contrast, none of
these complications arises in quantum electrodynamics, because photons
do not carry the quantum number, electric charge, with which they
Interact.

154 Quantization

We now proceed to quantize the gauge theories described in the previous
two sections. The Lagrangian density is taken in the form (15.3.1):

S = — % Fvaam-i—&oM(%DMP), (1541)
with
Fopy = 0pAgy — Oy Agy + CopyAguAyy 5
Dy = 0,9 — ity At .

We cannot immediately quantize this theory by setting commutators equal
to i times the corresponding Poisson brackets. The problem is one of
constraints. In the terminology of Dirac, described in Section 7.6, there is
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a primary constraint that
0¥
Moy=—— =
© T (804
and a secondary constraint provided by the field equation for AY:

0¥ + 0.7
# a(auAmO) aAer

(15.4.2)

—0

= 0,F" + FC, 0545, + J,°

= WILY +TL,*Crapdpe +J.° =0,  (1543)

where 11X = 0.9/0(6oAw) = FX0 is the ‘momentum’ conjugate to Ay,
with k running over the values 1,2,3. The Poisson brackets of Il and
Ok T1F +11,%C,up A g o +J,0 vanish (because the latter quantity is independent
of A,%), so these are first class constraints, which cannot be dealt with by
replacing Poisson brackets with Dirac brackets.

As in the case of electrodynamics, we deal with these constraints by
choosing a gauge. The Coulomb gauge adopted for electrodynamics would
lead to painful complications here,” so instead we will work in what is
known as axial gauge, based on the condition

An=0. (13.44)

The canonical variables of the gauge field are then A,;, with i now running

over the values 1 and 2, together with their canonical conjugates
0¥ -
M= = —F," = 8ydsi — 0idx0 + CupyAgoAyi . 15.4.5

The field A,y 1s not an independent canonical variable, but rather is
defined in terms of the other variables by the constraint (15.4.3). To see
this, note that the ‘electric’ field strengths F,2 are

F=T,, F%=54,", (15.4.6)
so the constraint (15.4.3) reads
- (63)2/42 = ainxi + H'yic'yocﬁAﬁf + Jao ) (1547)

which can easily be solved {with reasonable boundary conditions) to give
A9 as a functional of I1,; , Ag;, and J,0 (We are using a summation

*In addition to purely algebraic complications, Coulomb gauge (like many other
gauges) has a problem known as the Gribov ambiguity:® even with the condition
that A, vanishes at spatial infinity, for cach solution of the Coulomb gauge condition
V- A, = 0 therc are other solutions that differ by finite gauge transformations. The
Gribov ambiguity will not bother us here, because we quantize in axjal gauge where
it is absent, and we shall use other gauges like Lorentz gauge only to generate a
perturbation series.
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convention, with indices i, j, etc. summed over the values 1 and 2.) It
should be noted that the canonical conjugate to the matter field vy, 1s
0F  0%m
(Ooyr)  O(Doyy)
so the time component of the matter current can be expressed in terms of
the canonical variables of the matter fields alone

0L m .
I— mm = et 14 I— my¥y-m » 15.4-9

= (15.4.8)

J0=—i

Hence Eq. (15.4.7) defines 4,° at a given time as a functional of the
canonical variables I1.;, Ay, ny, and vy, at the same time.

Now that we have identified the canonical variables in this gauge, we
can proceed to the construction of a Hamiltonian. The Hamiltonian
density is

H = 11,;00Ay + meOoyy — &
= Iy (Fa0i + 0idao — CapyApoAyi) + me0ope
- % Fo:OiFaOi + %FaijFaij + % Foti3chi3
— L FapFas — Par. (15.4.10)
Using Eqs. (15.44) and (15.4.6), this is

H = Ay + naf(aiAocO - CmﬁyAﬁOAyf) + % 11
+ L FuijFuij + § 03A40i03Agi — 30345003400,  (15.4.11)

where # 5 is the matter Hamiltonian density:
L%&M =Ty aowg—gM. (15412)

Following the general rules derived in Section 9.2, we can now use this
Hamiltonian density to calculate matrix elements as path integrals over
Aui, T, we, and ny, with weighting factor exp(il), where

I = f d*x[TLudodsi + n/dows — A + € terms] | (15.4.13)

in which the ‘e terms’ serve only to supply the correct imaginary infinites-
imal terms in propagator denominators. {See Section 9.2.) We note that
Egs. (15.4.7) and (15.4.9) give AY as a functional of the canonical variables,
linear in 11, and n,. Inspection of Eq. (15.4.11) shows then (assuming
¥ to be no more than quadratic in D,yp) that the integrand of the
complete action (15.4.13) 1s no more than quadratic in 11, and 7,. We
could therefore carry out the path integral over these canonical ‘momenta’
by the usual rules of Gaussian integration. The trouble with this proce-
dure is that the coefficients of the terms in Eq. (15.4.13) of second order
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i IT,; are functions of the A,;, so the Gaussian integral would yield an
awkward field-dependent determinant factor. Also, the whole formalism
at this point looks hopelessly non-Lorentz-invariant.

Instead of proceeding in this way, we will apply a trick like that used
in the path integral formulation of electrodynamics in Section 9.6. Note
that if for a moment we think of 4,y as an independent variable, then
the action (15.4.13) is evidently quadratic in A,g, with the coefficient of
the second-order term Aqo(x)Apo(y) equal to the field-independent kernel
(03)*6%x — y). As we saw in the appendix to Chapter 9, the integral
of such a Gaussian over A,y(x) is, up to a constant factor, equal to the
value of the integrand at the stationary ‘point’ of the argument of the
exponential. But the variational derivative of the action here is

al oH
A oAy Jo" + 0Ty + Cpey TgiAyi — 03450 ,
so the stationary “point’ of the action is the solution of the constraint equa-

tion {15.4.7). Hence, instead of using for A,y the solution of Eq. (154.7),
" we can just as well treat it as an independent variable of integration.

With A,; now regarded as an independent variable, the Hamiltonian
[ dx.# is evidently quadratic in I1,;, with the coefficient of the second-
order term Il,(x)IIg;(y) given by the field-independent kernel 16%(x —
¥)d;;. Assuming that the same is true for the matter varijable n,;, we can
evaluate path integrals over s and I1,; up to a constant factor by simply
setting 7, and I, at the stationary ‘points’ of the action corresponding
to Eq. (15.4.1):

ol OH v
0= — = dowy —
ol
0= = 0pAwi — i — Oidag + CupyApoAyi = Fuoi — .

Inserting these back into Eq. (15.4.13) gives
I = /d4x {E’M-f- 1 Fooi Fopi

— L FuijFuij — 10345i03A5 + 1(03A40)*

2
=f dx £ (15.4.14)

where & is the Lagrangian (15.3.1) with which we started! In other words,
we are to do path integrals over yy(x) and all four components of Ay(x),
with a manifestly covariant weighting factor exp(il ) given by Egs. (15.4.14)
and (15.3.1), but with the axial-gauge condition enforced by inserting a
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factor

I1# (Aﬁ(x)) . (15.4.15)

As long as 04,0y - - are gauge-invariant, we have

(T{O040B " }yacuum = f{HdW(X)] [H dAom(x)}
£.x 0,1 X

X 040p - exp{il + € terms} [ | 6 (4u3(x)) , (15.4.16)
X,

with Lorentz- and gauge-invariant action I given by Eq. (15.4.14).

* % %k

For future reference, we note that the volume element [],, , d4,,(x)
for the integration over gauge fields in (15.4.16) is gauge-invariant, in the
sense that

T dAa au(x) = ] dAuui) (15.4.17)

a'}”’x a’#’x

where Ax «,(x) is the result of acting on A4,,(x) with a gauge transformation
having transformation parameters A,{x). It will be enough to show that
this is true for transformations near the identity, say with infinitesimal
transformation parameters 4,(x). In this case,

so the volume elements are related by

H dAJ. oc,u(x) = DCt(./V) H dAcx,u(x) s
ot X LNTR
where A" 1s the ‘matrix’:
6A). ocp(x)
6Aﬁv (y )

The determinant of 4" is unity to first order in 1, because the trace Cy,,
vanishes.

In this chapter we shall assume that the volume element [, dyu(x)
for the integration over matter fields is also gauge-invariant. There are
important subtleties here, to which we shall return in Chapter 22, but
as shown there this assumption turns out to be valid in our present
non-Abelian gauge theornes of strong and electroweak interactions.
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155 The De Witt-Faddeev—Popov Method

Our formula (15.4.16) for the path integral was derived in a gauge that is
convenient for canonical quantization, but the Feynman rules that would
be derived from this formula would hide the underlying rotational and
Lorentz invariance of the theory. In order to derive manifestly Lorentz-
invariant Feynman rules, we need to change the gauge.

We first note that Eq. (15.4.16) 1s (up to an unimportant constant factor)
a special case of a general class of functional integrals, of the form:

f=j1Hmmu4ﬂdBUwﬂDaFwL (15.51)

where ¢n(x) are a set of gauge and matter fields; [], , d¢n(x) is a volume
element; and %[¢] is a functional of the ¢,(x), satisfying the gauge-
invariance condition:

G(dal [ ] dgpsntx) = 4l [ [ don(x) (15.5.2)

nx nx
where ¢1,(x) is the result of operating on ¢ with a gauge transformation
having parameters A,(x). (Usually when this is satisfied both the functional
% and the volume element are separately invariant, but Eq. (15.5.2) is
all we need here.) Also, f,[¢;x] is a non-gauge-invariant ‘gauge-fixing
functional’ of these fields that also depends on x and «; B[f] is some
numerical functional defined for general functions f,(x) of x and «; and
F 1s the ‘matrix’:

r _ 0falpi;]
jacx,ﬁy [¢] = élﬁ(y) o .

(In accordance with our usual notation for functionals of functions or
of functionals, B[f [gb]} is understood to depend on the values taken by

fulgp; x] for all values of the undisplayed variables « and x, with the
displayed variable, the function ¢,{x), held fixed.) Eq. (15.5.1) does not
represent the widest possible generalization of Eq. (15.4.16); we will see
m Section 15,7 that there 1s a further generalization that is needed for
some purposes. We start here with Eq. (15.5.1) because it will help to
motivate the formalism of Section 15.7, and it is adequate for dealing with
non-Abelian gauge theories in the most convenient gauges.

We now must check that the path integral (15.4.16) is in fact a special
case of Eq. (15.5.1). In Eq. (15.4.16) the fields ¢,(x) consist of both A4,,(x)
and matter fields y/(x), and

foc[Aaw;x] = Auni(x), (15.5.4)
Blf1 = JT6(futx), (15.5.5)

(15.5.3)
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G[A,p] = exp{il +eterms} Q05 -, (15.5.6)
T denix) = {H dw(x)} [H dAgg(x)] . (15.5.7)
nx £x o X

(We are now dropping the distinction between upper and lower indices
, 8, -~y Comparison of Eq. (154.16) with Eqgs. {15.5.1}(15.5.3) shows
that these path integrals are indeed the same, aside from the factor
Det #[¢]. For the particular gauge-fixing functional (15.5.4), this factor
is field-independent: if A2(x) = 0, then the change in A2(x) under a gauge
transformation with parameters 4,(x) is

AL = 03 7alx) = [ &'y 2a0)030%(x = 1),
so that here Eq. (15.5.3) is the field-independent ‘matrix’

F apyl@] = 0ap 8364 x — p) .

The determinant in Eq. (15.5.1) is therefore also field-independent in
this gauge. As discussed in Chapter 9, field-independent factors in the
functional integral affect only the vacuum-fluctuation part of expectation
values and S-matrix elements, and so are irrelevant to the calculation of
the connected parts of the S-matrix.

The point of recognizing the functional integral (15.4.16) for non-
Abelian gauge theories as a special case of the general path integral (15.5.1)
is that in this form we may freely change the gauge. Specifically, we have
a theorem, that the integral (15.5.1) is actually independent (within broad
limits ) of the gauge-fixing functional f,|¢; x}, and depends on the choice of
the functional B[f] only through an irrelevant constant factor.

Proof: Replace the integration variable ¢ everywhere in Eq. (15.5.1) with
a new integration variable ¢4, with A%*(x) any arbitrary (but fixed) set of
gauge transformation parameters:

5= [H dmn(x)} palB flpal| Det F[gal (15.58)

(This step is a mathematical triviality, like changing an integral {7 f(x)dx
to read [* f(y)dy, and does not yet make use of our assumptions regard-
ing gauge invariance.) Now use the assumed gauge invariance (15.5.2) of
the measure I1d¢ times the functional ¢[¢] to rewrite this as

5= [qubn(x)] S191B [f[64]] Det F[9a] (1559)

Since A%(x) was arbitrary, the left-hand side here cannot depend on it.
Integrating over A*{(x) with some suitable weight-functional p[A] {to be
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chosen below) thus gives

s [ lH dA“(x)] ol = | lH dwx)] SI4ICIP),  (155.10)

where
clel= [ [H dA“(x)] pIAIB[flgal[Det Figal.  (155.11)
Now, Eq. (15.5.3) gives

O fallga);; X]
FuxpylOa] = 0MP(y) =0

We are assuming that these transformations form a group; that is, we may
write the result of performing the gauge transformation with parameters
A¥*(x) followed by the gauge transformation with parameters A*(x) as
the action of a single ‘product’ gauge transformation with parameters

A%(x; A, A),

(15.5.12)

(PA): = dxAp - (15.5.13)
Using the chain rule of partial (functional) differentiation, we have then
F augy[08] = [ Fusls N5, [Nz (15.5.14)
where
Ofaldz:x] Ofalpa;x]
wxoz @, A] = ———=2 = e 15.5.15
Fuxyz [0, Al OAY(z) |K=A dA7(z) ( )
and
(3?@(2;/\ A)
B p [A] = —p——> . 15.5.16
srlAl 08 (y) o ( )
It follows that
Det Z[pa] = Det #[p, A] Det Z[A] . (15.5.17)

We note that Det #[¢, A] is nothing but the Jacobian of the transforma-
tion of integration variables from the A%*(x) to (for a fixed ¢) the f,{¢a;x].
Hence, if we choose the weight-function p(A) as

p(A) = I/Det R[A] (15.5.18)
then

Clp] = / _H dA“(x)] Det #1¢, Al B|f[$al]

- l[:dfa(x)] Blf]=C, (15.5.19)

2.X
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which is clearly independent of ¢. (Eq. (15.5.18) may be recognized by
the reader as giving the invariant (Haar) measure on the space of group
parameters.) We have then at last

;€I M déntx)| 911
S| M dA*(x)] pIA]

This 1s clearly independent of our choice of f,[¢;x], which has been
reduced to a mere variable of integration, and it depends on B[f] only
through the constant C, as was to be proved.

Before proceeding with the applications of this theorem, we should
pause to note a tricky point in the derivation. The integrals in the
numerator and denominator of Eq. (15.5.20) are both ill-defined for the
same reason. Since #[¢] is assumed to be gauge-invariant, its integral over
¢ cannot possibly converge; the integrand is constant along all ‘orbits,
obtained by sending ¢ into ¢, with all possible A*(x). Likewise, the
integrand in the denominator is divergent, because p(A)I1dA is nothing
but the usual invariant volume element for integrating over the group,
and this is also constant along ‘orbits’ A — A(A,A). This divergence can
be eliminated in both the numerator and denominator of Eq. (15.5.20)
by formulating the theory on a finite spacetime lattice, in which case the
volume of the gauge group is just the volume of the global Lie group itself
times the number of lattice sites. Because the gauge-fixing factor B[f]
eliminates this divergence in the original definition (15.5.1) of the left-hand
side of Eq. (15.5.20), we may presume that, as the number of lattice sites
goes to infinity, it cancels between the numerator and denominator of the
right-hand side of Eq. (15.5.20).

Now to the point. We have seen that the vacuum expectation value
(15.4.16) in axial gauge is given by a functional integral of the general
form (15.5.1). Armed with the above theorem, we conclude then that

(T{0405 )y f [Hdw(xJ] [H dA%(x)]
%

a'}# 'Jx

(15.5.20)

X 04Cp---exp{i] + € terms} B[f[A,w]] Det Z[A4,] (15.5.21)

for (almost) any choice of f,[4,y;x] and B[f]. We are now therefore free
to use Eq. (15.5.21) to derive the Feynman rules in a more convenient
gauge.

The path integrals that we understand how to calculate are of Gaussians
times polynomials, so we will generally take

B[f] = exp (—é / d*x f4(x) fa(x)) (155.22)
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with arbitrary real parameter £, With this choice, the effect of the factor
B in Eq. (15.5.21) is just to add a term to the effective Lagrangian

1
Lerp =% — Efafa . (15.5.23)

The simplest Lorentz-invariant choice of the gauge-fixing function f, is
the same as in electrodynamics:

fa=0,A" . (15.5.24)

The bare gauge-field propagator can then be calculated just as in quantum
electrodynamics. The free-vector-boson part of the effective action can be
written

Tou = — / d*x H(ap% — Oy A ) (P Ay — ' AH)

1
2%

1 :
= f d*x Do oy A (X) A" (V)

+ 5(0,4,")(0,A,") + € terms

where
o2

—_— 4 —
OxX 0y, o(x =)

@x,ux,ﬁvy = Huv

—[1 1) & 5%x — + € terms
( EJ OxHOyY (x=7) €l
1

= (2n)™* / d'p [nm(pz — ie) — (1 — E) PppvJ et y)

Taking the reciprocal of the matrix in square brackets, we find the prop-
agator:

Ay (X, ¥) = (D asx o

_ 1 ey

— e [ o[+ - n2B] S
This is a generalization of both Landau and Feynman gauges, which
are recovered by taking £ = 0 and ¢ = 1, respectively. For ¢ — 0, the
functional (15.5.22) oscillates very rapidly except near f, = 0, so this
functional acts like a delta-function imposing the Landau gauge condition
opA* = O, leading naturally to a propagator satisfying the corresponding
condition A, g, = 0. For non-zero values of ¢ the functional B[f] does
not pick out gauge fields satisfying any specific gauge condition on the
field Ay, but it is common to refer to the propagator (15.5.25) as being in
a ‘generalized Feynman gauge’ or ‘generalized ¢-gauge’. It is often a good

(15.5.25)
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strategy to calculate physical amplitudes with & left arbitrary, and then at
the end of the calculation check that the results are {-independent.

With one qualification, the Feynman rules are now obvious: the contri-
butions of vertices are to be read off from the interaction terms in the orig-
inal Lagrangian %, with gauge-ficld propagators given by Eq. (15.5.25),
and matter-field propagators calculated as before. To be specific, the
trilinear interaction term in %

— 3 Cupy(0pAay — avAow)AﬁuA?v

corresponds to a vertex to which are attached three vector boson lines. If
these lines carry (incoming) momenta p,q,k and Lorentz and gauge-field
indices ux, v, py, then according to the momentum-space Feynman rules,
the contribution of such a vertex to the integrand is

iQn)*6*(p+q+k) [—i Copy)] [Pv Hud — DAy + Aty — dutvd +Kutlay -*kv?u,u] :
(15.5.26)
Also, the A% interaction term in .,

— 1 CenpCoepo AngApy A A5

corresponds to a vertex to which are attached four vector boson lines.
If these lines carry (incoming) momenta p,q,k,/, and Lorentz and gauge
indices px, vf, py, and ¢d, then the contribution of such a vertex to the
integrand is

(21204 (p +q +k +¢) X | = Ceap Cera(uptve = Nuttvp)

_Cfocy Ceéﬂ(”?go"’?pv — ﬂ‘uv"lrrp) — Ceus Ceﬁy(ﬂ,u,v’?pa - ﬂupﬂav)] .
(15.5.27)

(Recall that the structure constants Cyg, contain coupling constant factors,
so the factors (15.5.26) and (15.5.27) are respectively of first and second
order in coupling constants.)

The one complication in the Feynman rules with which we have not
yet dealt is the presence in Eq. (15.5.21) of the factor Det #, which for
general gauges is not a constant. We now turn to a consideration of this
factor.

15.6 Ghosts

We now consider the effect of the factor Det % in Eq. (15.5.22) on the
Feynman rules for a non-Abelian gauge theory. In order to be able to treat
this effect as a modification of the Feynman rules, recall that as shown in
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Section 9.5, the determinant of any matrix # 4 3, may be expressed as a
path integral

Det # oc f [Hdco;(x)] [H dcoa(x)] exp(ilgh) , (15.6.1)
where
Toy = f dxd*y 03(x) 05(0) Farpy (15.6.2)

Here w; and w, are a set of independent anticommuting classical variables,
and the constant of proportionality i1s field-independent. (We have to
choose the w, and w; field variables to be fermionic in order to reproduce
the factor Det .#; had we chosen these field variables to be bosonic,
the path integral (15.6.1) would have been proportional to (Det #)~1.)
The fields w, and w, are not necessarily related by complex conjugation;
indeed, in Section 15.7 we shall see that for some purposes we need to
assume that w, and w, are independent real variables. The whole effect
of the factor Det & is the same as that of including Igy(w,®”) in the
full effective action, and integrating over ‘fields’ @ and «”. That is, for
arbitrary gauge-fixing functionals f,(x),

(T{O04})y o fl[:dwn(X)] lH dAa,u(x)]

nx 40, X
X Hdma(x]dco;(x) exp (iIMOD[w,A,a),w"]) Oq--+, (15.6.3)
m,X i
where Invop is a modified action
twon = [ d'x |2 = fufe] +1cu (1564

The fields w, and w, are Lorentz scalars (at least in covariant gauges)
but satisfy Fermi statistics. The connection between spin and statistics is
not really violated here, because there are no particles described by these
fields that can appear in initial or final states. For that reason, w, and
o, are called the fields of ‘ghost’ and ‘antighost’ particles. Inspection of
Eq. (15.6.2) shows that the action respects the conservation of a quantity
known as ‘ghost number,” equal to +1 for w,, —1 for w,, and zero for all
other fields.

The Feynman rules for the ghosts are simplest in the case in which the
‘matrix’ & may be expressed as

F=Fg+ 5, (15.6.5)

where & is field-independent and of zeroth order in coupling constants,
while % is field-dependent and proportional to one or more coupling
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constant factors. In this case, the ghost propagator is just
Aug(X, ¥) = (F g Do py (15.6.6)
and the ghost vertices are to be read off from the interaction term
oy = [ d*xd'y wl(x) op(0)F sy - (15.6.7)

For instance, in the generalized £-gauge discussed in the previous sec-
tion, we have

fo= 8, AL (15.6.8)
and for infinitesimal gauge parameters 4,, Eq. (15.1.9) gives:

Aﬁi = Al + ' Ay + Coypp Afj

so that
AL (x
Faxfy = 5?;) ﬁc(ck() ) =
=D 0Yx— )+ Cyop aa# [A“ x) 0*(x — )} : (15.6.9)
This is of the form (15.6.5), with
(F0)axpy = 084 (x — ) 8up (15.6.10)
(F gy = —Capy oy [ A0S —0)] . (15611

From Eqs. (15.6.6) and (15.6.10), we see that the ghost propagator is

Agg(x, ¥} = Spp(2m)? f d*p (p? — i)~ €PN (15.6.12)

so in this gauge the ghosts behave like spinless fermions of zero mass,
transforming according to the adjoint representation of the gauge group.
Using Egs. (15.6.7) and (15.6.11) and integrating by parts, we find that the
ghost interaction term in the action is now

o
IGH_fd“x Copy 72 @, = AL g (15.6.13)

This interaction corresponds to vertices to which are attached one outgoing
ghost line, one incoming ghost line, and one vector boson line. If these
lines carry (incoming) momenta p. ¢, k respectively and gauge group indices
o, 3,y respectively, and the gauge field carries a vector index u, then the
contribution of such a vertex to the integrand is given by the momentum-
space Feynman rules as

i2n)*%(p 4+ q + k) x ip,Cap, . (15.6.14)
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The ghosts propagate around loops, with single vector boson lines attached
at each vertex along the loops, and with an extra minus sign supplied for
each loop as is usual for fermionic field variables.

The extra minus sign for ghost loops suggests that each ghost field
@, together with the associated antighost ficld w; represents something
like a negative degree of freedom. These negative degrees of freedom
are necessary because in using covariant gauge field propagators we are
really over-counting; the physical degrees of freedom are the compo-
nents of A%(x), less the parameters A,(x) needed to describe a gauge
transformation.

In summary, the modified action (15.6.4) may be written in generalized
£-gauge as

Imop = /d4x Z£MoD (15.6.15)
with a modified Lagrangian densit.y:
Luop = Lyt = 3FE Fan = 57 (LA
—0u0y * 0y + Copy(0uwy) AR wp . (15.6.16)

It is important that this Lagrangian is renormalizable (if the matter La-
grangian %y is), in the elementary sense that its terms involve products
of fields and their derivatives of total dimensionality (in powers of mass)
four or less. (The kinematic term —d,w; 3w, in Eq. (15.6.16) fixes the
dimensionality of the fields @ and w® to be mass to the power unity,
just like ordinary scalar and gauge fields.) However, there is more to
renormalizability than power counting; it is necessary also that there be
a counterterm to absorb every divergence. In the next section we shall
consider a remarkable symmetry that will be used in Section 17.2 to show
that non-Abelian gauge theories are indeed renormalizable in this sense,
and that can even take the place of the Faddeev—Popov-De Witt approach
that we have been following.

15.7 BRST Symmetry

Although the Faddeev—Popov-De Witt method described in the previous
two sections makes the Lorentz invariance of the theory manifest, it still
rests on a choice of gauge, and hence naturally it hides the underlying
gauge invariance of the theory. This is a serious problem in trying to
prove the renormalizability of the theory — gauge invariance restricts the
form of the terms in the Lagrangian that are available as counterterms to
absorb ultraviolet divergences, but once we choose a gauge, how do we
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know that gauge invariance still restricts the ways that the infinities can
appear?

Remarkably, however, even after we choose a gauge, the path integral
still does have a symmetry related to gauge invariance. This symmetry
was discovered by Becchi, Rouet, and Stora,' (and independently by
Tyutin,'!) in 1975, several years after the work of Faddeev and Popov and
De Witt, and is known in honor of its discoverers as BRST symmetry. This
symmetry will be presented more-or-less as it was originally discovered,
as a by-product of the method of Faddeev, Popov, and De Witt, but as
we shall see it can also be regarded as a replacement for the Faddeev—
Popov-De Witt approach.

We have seen in Eqs. (15.6.3) and (15.6.4) that the Feynman rules for
a non-Abelian gauge theory may be obtained from a path integral over
matter, gauge, and ghost fields, with a modified action, which we may
write

Imop = Ierr + I = fd4x LMoD , (15.7.1)
1 .
Fvop =L — ‘_,Z”Efafac -+ (UaAac s (15.7.2)

where we have now introduced the quantity
89 = [ @y Fogla vl o). (157.3)
This is for the choice
B[f] o exp (—2—’5 f dx fafa) (15.7.4)

of the gauge-fixing functional in Eq. (15.5.21). For our present purposes,
it will be helpful to rewrite B[f] as a Fourier integral:

B[f] = f [Hdha(x)] exp [% f haha] exp [i f d4xfaha] . (15.7.5)

We must now do our path integrals over the field h, (often known as
a ‘Nakanishi-Lautrup’ field"!%) as well as over matter, gauge, ghost and
antighost fields, with a new modified action

INEW = / &' (L + 038+ hofu + 1hohy) . (15.7.6)

This modified action is not gauge-invariant — indeed, it had better
not be, if we are to be able to use it in path integrals. However, it is
invariant under a ‘BRST’ symmetry transformation, parameterized by an
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infinitesimal constant  that anticommutes with w,, w,, and all fermionic
matter fields. For a given 8, the BRST transformation is

Sy = ity , (15.7.7)
59140:;: = GD”(D& = 9[5ﬂwg + CmﬁyAﬁu(Uy] . (15.7.8)
S, = —0hy , (15.7.9)
Oty = — 10 Copypwy , (15.7.10)
Sohy =0 (15.7.11)

(Recall that in fermionic path integrals, there is no connection between w,
and wj, so that Eq. (15.7.9) does not need to be the adjoint of Eq. (15.7.10).)
Because h, is BRST-invariant, we could if we like replace the Gaussian
factor exp( %iﬁ [ hyhy) in Eq. (15.7.5) with an arbitrary smooth functional
of h,, yielding an arbitrary functional B[f], without affecting the BRST
invariance of the action. However, for the purposes of diagrammatic
calculation and renormalization it will help to leave B[f] as a Gaussian.

In checking the invariance of the action (15.7.1), it will be very useful
first to note that the transformation (15.7.7)—(15.7.11) is nilpotent; that is,
if F is any functional of @, A, w,»", and h, and we define sF by

dgF = O0sF (15.7.12)
then”

Op(sF) =0 (15.7.13)
or equivalently

s(sF)=0. (15.7.14)

It is straightforward to verify this nilpotence when g acts on a single
field. First, acting on a matter field,
Sgsy = ity dg(wap) = — 3 CupytaOwpwyyp — tatgmabwpy
= — i Cyp,ta g, p + tot gBwapy

The product m,wp in the second term on the right is antisymmetric in o

and f, so we can replace (,fg in this term with %[ta, tg], and this term thus
cancels the first term:

ssp =0, (15.7.15)

" In the original work on BRST symmetry the functional B[f] was left in the form
(15.7.4), so that h, was replaced in Eq. (15.7.9) with —f,/&, and the BRST transfor-
mation was only nilpotent when acting on functions of w, and the gauge and matter
fields, but not of ;.
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Next, acting on a gauge field, we have

(398/1&# = d¢ D,y
= 5H59£Ua + Cagy(Sg}Aﬁ‘u(U}, + Cmﬁ?ABH(Sg(U?

= 9( — 1 CapyOu(wpay) + Cagy(Oup)ey
+Copy CpseAs ey — %CaﬁvcvésAﬁuwéwe)
= 9( 3 Capy (0uop)oy + 3 Capy (023 )00g
—CapyCpseAsu0c 008 — %Cmﬁycyéffflﬂ#wémf) '

The first two terms of the final expression cancel because Cy,g, is antisym-
metric in f and y, and the third and fourth terms cancel because of the
Jacobi identity (15.1.5), so

$$Ag = 0. (15.7.16)
Egs. (15.7.9) and (15.7.11) show immediately that
ssw, =0 (15.7.17)
and
sshy, = 0. (15.7.18)
Finally,
Ogswy = — 1Cyp, p(wgw,)

= 16 (CxﬁyCﬁ& w500y + Cypy Csc wﬁ(nbme)
= 10 Caﬁ}.cyge[* Wswedg + wﬁwaws] :
But wg commutes with wsw,, so this too vanishes
$swy = 0. (15.7.19)

Now consider a product of two fields ¢; and ¢, either or both of which
may be v, A, w, ®*, or h, not necessarily at the same point in spacetime.
Then

So(p1h2) = O(sp1)g2 + $16(s2) = 0[(s1)p2 £ Gusea | ,
where the sign + is plus if ¢ is bosonic, minus if ¢ is fermionic. That is,

s(p1¢2) = (sPp1)p2 + P15¢- .

Since as we have seen Jg(s¢1) = de(s¢pa) = 0, the effect of a BRST
transformation on s{¢;¢2) 1s

dp5(P1p2) = (s¢1)0(s¢p2) £ O(sd1)(s¢2) -
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But s¢ always has statistics opposite to ¢, so moving 8 to the left in the
first term on the right-hand side introduces a sign factor F:

Sos(d192) = 0 F (sd1)(s2) + (sep1)(sp2)| = 0.

Continuing in this way, we see that BRST transformations are nilpotent
acting on any product of ficlds at arbitrary spacetime points:

Ops(p1d2g3---)=0.

Any functional F[¢] can be written as a sum of multiple integrals of such
products with c-number coefficients, so likewise

89 sF[¢p] = BssF[¢] =0 . (15.7.20)

This completes the proof of the nilpotency of the BRST transformation.

Now let us return to the verification of the BRST invariance of the
action (15.7.6). First note that for any functional of matter and gauge
fields alone, the BRST transformation is just a gauge transformation with
infinitesimal gauge parameter

Ay(x) = By(x) . (15.7.21)
Therefore the first term in Eq. (15.7.6) is automatically BRST-invariant:

50 j PP =0 (15.7.22)

To calculate the effect of a BRST transformation on the rest of the action
(15.7.6), note that its effect on the gauge-fixing function is just the gauge
transformation (15.7.21), so

Ofulx; Az, 5]

A
=0 [ Fupldylos)dty
or in terms of the quantity (15.7.3)
Oofulx; A, ] = BA(x; A, p, ) . (15.7.23)

O wpg(y)yd'y
A=0

(Note that % is a bosonic quantity, so there is no sign change in moving
@ to the left here.) Also recall that dyw, = —0h, and dph, = 0. Therefore
the terms in the integrand of the ‘new’ action (15.7.6) other than % may
be written

03Aa+ hafo+ Yohahy = s{w)fy+ YE)hy) (15.7.24)
or in other words

INEw = /d“x F+s¥, (15.7.25)
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where
Y = / dx (0Lfu+ 1Ewlhy) . (15.7.26)

The nilpotence of the BRST transformation tells us immediately that the
term sV as well as [ d*x % is BRST-invariant.

In a sense the converse of this result also applies: we shall see in Section
17.2 that a renormalizable Lagrangian that obeys BRST invariance and
the other symmetries of the Lagrangian (15.7.25) must take the form
of Eq. (15.7.25), aside from changes in the values of various constant
coefficients. But this is not enough to establish the renormalizability
of these theories. BRST symmetry transformations act non-linearly on
the fields, and in this case there is no simple connection between the
symmetries of the Lagrangian and the symmetries of matrix elements
and Greens functions. Using the external field methods developed in
the next chapter, it will be shown in Section 17.2 that the ultraviolet
divergent terms in Feynman amplitudes (though not the finite parts) do
obey a sort of renormalized BRST invariance, which allows the proof of
renormalizability to be completed.

Eq. (15.7.25) shows that the physical content of any gauge theory is
contained in the kernel of the BRST operator (that is, in a general BRST-
invariant term [d*x % + s¥), modulo terms in the image of the BRST
transformation (that is, terms of the form s¥). The kernel modulo the
image of any nilpotent transformation is said to form the cohomology of
the transformation. There is another sense in which the physical content
of a gauge theory may be identified with the cohomology of the BRST
operator.!? It is a fundamental physical requirement that matrix elements
between physical states should be independent of our choice of the gauge-
fixing function f,, or in other words, of the functional ¥ in Eq. (15.7.25).
The change in any matrix element {2|8) due to a change 3% in W is

8(xlB) = i(aldInewlB) = i(x|s8W|B) . (15.7.27)

(We use a tilde here to distinguish this arbitrary change in the gauge-fixing
function from a BRST transformation or a gauge transformation.) We
can introduce a fermionic BRST ‘charge’ Q, defined so that for any field
operator @,

oy® =i[0 0, @] =if [Q, D],
or in other words,
[0, D)+ = isD, (15.7.28)

the sign being — or + according as @ is bosonic or fermionic. The
nilpotence of the BRST transformation then gives

0= —ss® = [Q,[Q, P]z]+ = [Q° D] .
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For this to be satisfied for all operators ®, it is necessary for Q? either
to vanish or be proportional to the unit operator. But 0? cannot be
proportional to the unit operator, since it has a non-vanishing ghost
quantum number™”, so it must vanish:

Q> =0. (15.7.29)
From Eqgs. (15.7.27) and (15.7.28), we have
3(xlp) = (al[Q,3P1IB) - (15.7.30)
In order for this to vanish for all changes 6 in VP, it is necessary that
(@@ =0Q|B)=0. (15.7.31)

Thus physical states are in the kernel of the nilpotent operator ¢. Two
physical states that differ only by a state vector in the image of @, that
is, of form Q|- -+), evidently have the same matrix element with all other
physical states, and are therefore physically equivalent. Hence independent
physical states correspond to states in the kernel of ¢, modulo the image
of Q0 — that is, they correspond to the cohomology of Q.

To see how this works in practice, let us consider the simple example of
pure electrodynamics.! Taking the gauge-fixing function as f = ¢,4* and
integrating over the auxiliary field h, the BRST transformation (15.7.8)-
(15.7.10) is here

SA =00,  sw =0,dM/E,  sw=0. (15.7.32)
We expand the fields in normal modes't
L
V/2p°
i
v/ 2p°
d3p

Vers

At = (22)" (p) e+ a(p) 7]

w(x) = 2r)3/? :c(p) P 4 ¢*(p) e—ip'x] o (15.7.33)

©'(x) = (2m) " bip) ™™ +b(p)e ] .

** Recall that the ghost quantum number is defined as +1 for w,, —1 for w;, and O for
all gauge and matter fields.

T Eqgs. (15.6.11) and (15.6.7) show that because thc structure constants vanish in electro-
dynamics, the ghosts here are not couplcd to other ficlds. Nevertheless, electrodynamics
provides a good example of the usc of BRST symmetry in identifying physical states.
Indeed, in analyzing the physicality conditions on ‘in’ and ‘out’ states wc ignore inter-
actions, so for this purpose a non-Abelian gauge theory is treated like several copies
of quantum electrodynamics.

 Just as w*(x) is not to be thought of as the Hermitian adjoint of w(x), b* and ¢" are
not the adjoints of ¢ and b. But since A#(x) is Hermitian, «(x) is Hermitian if Q is.
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Matching coefficients of e¥7* on both sides of Eq. (15.7.28) yields

[Q.a"(p)]- = —pc(p),  [Q.0" (p)]— = p¥c"(p),
[Q.6(p)]+ = pPa,(p)/S,  [Q.B°(P)]+ = pPa,(p)/¢, (15.7.34)
[O,c(p)]+ = [Q.c"(p)l+ = 0.

Consider any state |y) satistying the physicality condition (15.7.31):
Oly)=0. (15.7.35)

The states |e,y) = e a”(p)|y) with one additional photon then satisfy the
physicality condition Qle, ) = 0if e,p* = 0. Also, the state )’ = b*(p)|ip)
satisfies

Qly) = pa,(ply)/¢E, (15.7.36)

so e +ap,y) = |e,y) + EaQ|y)’, and is therefore physically equivalent to
le,y). From this we conclude that e* is physically equivalent to e + ap”,
which is the usual ‘gauge-invariance’ condition on photon polarization
vectors. On the other hand,

Qb* (p)ly) = pHa”(plly) #0,

so b*|y) does not satisfy the physicality condition (15.7.31) Also, for any
e, Withe-p # 0,

c(Ply) = Qe a™*(p)y)/e-p

so ¢’|yp) is BRST-exact, and hence equivalent to zero. Thus the physical
Hilbert space is free of ghosts and antighosts.

To maintain Lorentz invariance, we must interpret all four components
of a*(p) as annihilation operators, in the sense that

0 = a,(p)|0) . (15.7.37)

where |0) is the BRST-invariant vacuum state. But the canonical commu-
tation relations derived from the BRST-invariant action (say, with & = 1)
give

[0,(p), a;(0)] - = 1w (p— P, (15.7.38)

corresponding to the propagator in Feynman gauge. This violates the
usual positivity rules of quantum mechanics, because Eqs. (15.7.37) and
(15.7.38) yield!?

(Olao(p) a5(p')|0) = —(00) . (15.7.39)

Nevertheless we can rest assured that all amplitudes among physical
states satisfy the usuval positivity conditions, because these states satisfy
Eq. (153.7.31), and for such states the transition amplitudes are the same
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as they would be in a more physical gauge like Coulomb or axial gauge,
where there is no problem of positivity or unitarity.

The Faddeev-Popov-De Witt formalism described so far necessarily
yields an action that is bilinear in the ghost fields o and w,. This is
adequate for renormalizable Yang—Mills theories with the gauge-fixing
function f, = 0,4%, but not in more general cases. For instance, as
we shall see in Section 17.2, in other gauges renormalizable Yang—Mills
theories need w’w’ww terms in the action Lagrangian density to serve
as counterterms for the ultraviolet divergences in loop graphs with four
external ghost lines.

Fortunately the Faddeev—Popov-De Witt formalism represents only one
way of generating a class of equivalent Lagrangians that yield the same
unitary S-matrix. The BRST formalism provides a more general approach,
that dispenses altogether with the Faddeev—Popov-De Witt formalism. In
this approach, one takes the action to be the most general local functional
of matter, gauge, w4, ©** and h* fields with ghost number zero that is
invariant under the BRST transformation (15.7.7)—(15.7.11) and under any
other global symmetries of the theory. (For renormalizable theories one
would also limit the Lagrangian density to operators of dimensionality
four or less, but this restriction plays no role in the following discussion.)
In the next section we shall prove, in a context more general than Yang—
Mills theories, that the most general action of this sort is the sum of
a functional of the matter and gauge fields (collectively called ¢) alone,
plus a term given by the action of the BRST operator s on an arbitrary
functional ¥ of ghost number —1:

Inewlp, 0, 0", h] = Iy[p] + s P[¢, 0, ®", H] , (15.7.40)

as for instance in the Faddeev—Popov—De Witt action (15.7.25), but with
s'¥ now not necessarily bilinear in ghost and antighost fields.

By the same argument as before, the S-matrix elements for states that
are annihilated by the BRST generator Q are independent of the choice
of ¥ in Eq. (15.7.40), so if there is any choice of W for which the ghosts
decouple, then the ghosts decouple in general. In Yang-Mills theories,
such a ¥ is provided by quantization of the theory in axial gauge, so
in such theories ghosts decouple for arbitrary choices of the functional
Y[p,w, ", k], not just those choices like (15.7.25) that are generated by
the Faddeev—Popov De Witt formalism.

We can go further, and free ourselves of all dependence on canonical
quantization in Lorentz-non-invariant gauges like axial gauge. Again, take
the action to be the most general functional of gauge, matter, w4, »*4
and h* fields with ghost number zero, that is invariant under the BRST
transformation (15.7.7)-(15.7.11) and under any other global symmetries
of the theory, including Lorentz invariance. From the BRST invariance
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of the action we can infer the existence of a conserved nilpotent BRST
generator 0. With the ghost and antighost fields treated as Hermutian,
Q is also Hermitian. The space of physical states is defined as above as
consisting of states annihilated by Q, with two states treated as equivalent
if their difference is Q acting on another state. It has been shown that for
Yang—Mills theories this space is free of ghosts and antighosts and has a
positive-definite norm, and that the S-matrix in this space is unitary.!3
This procedure is known as BRST quantization. It has been extended
to theories with other local symmetries, such as general relativity and
string theories. Unfortunately, it seems so far to be necessary to give
separate proofs in each case that the BRST-cohomology is ghost-free and
that the S-matrix acting in this space is unitary. The key point in these
proofs is that, for each negative-norm degree of freedom, such as the time
components of the gauge fields in Yang-Mills theories, there is one local
symmetry that allows this degree of freedom to be transformed away.

% ¥ %

Although we shall not use it here, there is a beautiful geometric
interpretation'® of the ghosts and the BRST symmetry that should be
mentioned. The gauge fields A* may be written as one-forms A, = Ag,dx*,
where dx* are a set of anticommuting c-numbers. (See Section 5.8.) This
can be combined with the ghost to compose a one-form &, = Ay + W, in
an extended space. Also, the ordinary exterior derivative d = dx* d/0x*
may be combined with the BRST operator s to form an exterior derivative
9 = d + s in this space, which is nilpotent because P =d*=sd+ds=0.

The next chapter will introduce external field methods, which will be
used along with the BRST symmetry in Chapter 17 to complete the proof
of the renormalizability of non-Abelian gauge theories.

15.8 Generalizations of BRST Symmetry”

The BRST symmetry described in the previous section has a useful gener-
alization to the quantization of a wide class of theories, including general
relativity and string theories. In all these cases, we deal with an action I[¢]
and measure [d¢] = [[, d¢" that are invariant under a set of infinitesimal
transformations

& — ¢+ 10" . (15.8.1)

* This scction Hes somewhat out of the book’s main line of development, and may be
omittcd in a first reading.
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This is an abbreviated ‘De Witt’ notation, with r and 4 including spacetime
coordinates as well as discrete labels, and sums including integrals over
these coordinates. For instance, for the gauge transformation (15.1.9), the
index A consists of a group index o and a spacetime coordinate x, with
e** = ¢%*(x), while the index r consists of a vector index u as well as a
group index « and a spacetime coordinate x, with ¢#*** = A%,(x); in the
notation of Eq. (15.8.1), the variation d4¢" in the transformation (15.1.9)
reads

Spy## 4 = 88 0 5% x— y) o CFu T80k )

As in the special case of Yang—Mills theories discussed in the previous
section, BRST invariance can be used as a substitute for the Faddeev—
Popov-De Witt formulation of these theories, one that is applicable even
where the Faddeev—Popov-De Witt approach fails. Nevertheless, in order
to motivate the introduction of BRST invariance, we shall begin here with
the Faddeev-Popov—De Witt formulation of theories with general local
symmetries, and then go on to consider further generalizations.

By following the same arguments used to derive Eq. (15.5.21), we obtain
the general Faddeev-Popov—De Witt theorem:

o [1461"9 V(] = [1dg] "% BIF 1G]] Det(dafals) ViG], (1582

where V[¢] is an arbitrary functional of ¢" that is invariant under the
gauge transformations (15.8.1}; f4[¢] are a set of gauge-fixing functionals*™
of the ¢', chosen so that the ‘matrix’ 6,4fp[¢] has a non-vanishing deter-
minant, and B[f] is a more-or-less arbitrary functional of the f4 (as for
instance []4 d(f4)). The constant Q is the volume of the gauge group, and
the constant C is defined (as in Eq. (15.5.19)) by

C= f[df] B[f]. (15.8.3)

As we have seen, in gauge theories the importance of Eq. (15.8.2) is
that it tells us that the integral on the right-hand side is independent
of the choice of the gauge-fixing functionals f4, and depends on B(f]
only through the constant C. Where some meaning can be given to the
usually infinite group volume €, as in gauge theories on a finite spacetime

** We use the same letters 4, B, etc. to label the f4 as the gauge variations d,4, in
order to emphasize that there must be as many gauge-fixing functionals as there are
independent gauge transformations. However, in some cases like string theory it is
natural to use gauge-fixing functionals f* for which, although the index a runs over
‘as many’ values as the index 4 on the gauge variations 8,4, the values taken by these
indices are quite different. No change is needed in the present formalism as long as
we can define 4 = c4.f?, with ¢y, field-independent and non-singular.
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lattice, Eq. (15.8.2) can also have value as a formula for the integral on
the left-hand side.

To define a nilpotent BRST transformation, we must first express the
functional B[f] as a Fourier transform

B[f] = f [dh] explih’f.) BIH] , (15.8.4)

where [dh] = [[,dh!. Also, the determinant can be expressed as an
integral over fermionic c-number fields™ m*4 and w4:

Det(5.4fp[d]) o / [doo*] [do] exp ("8 0*64f5) , (158.5)

where [do'] = [[,do*! and [dw] = [[4dw4, and as usual ‘o’ means
proportional with field-independent factors. Inserting these in Eq. (15.8.2)
gives a general formula for the gauge-fixed path integral

[ 191 exp (i1191) BU191) Det(3afl8]) V1g]

o« / [d] [dh] [deo*] [deo) exp (ilwewlb, by ,0°1) BTH] VI, (158.6)
where Ingw 18 the new total action:

Inew [, 0, 0" = I[$] + H falp] + 0 PwSfrld] . (15.8.7)

As mentioned in Section 15.6, we can think of the ghost ficlds as
compensation for the fact that we are integrating over all ¢", including
those ¢" that differ only by gauge transformations (15.8.1). Because
ghosts are fermions, loops of ghost lines carry extra minus signs that
allow these loops to compensate for the integration over gauge-equivalent
$s. But for this to work, there must be just as many ghost fields o as
there are independent gauge transformations. That is, since the w? are
independent, the gauge transformations (15.8.1) must all be independent.
This 1s the case for gauge transformations in Yang-Mills theory and
coordinate transformations in general relativity, but not always. The
classic example of a theory with non-independent gauge transformations
is the theory of p-form gauge fields, described in Section 8.8. A p-form
A (an antisymmetric tensor of rank p) undergoes a gauge transformation
A— A+d¢, where ¢ is a (p — 1)-form, and d¢ is its exterior derivative
(the antisymmetrized derivative). Because d is nilpotent, for p > 2 we
can shift ¢ by an amount dy without changing the gauge transformation,
so there is a sort of invariance under gauge transformations of gauge

T1t is common in string theories and elsewhere to find the ghost fields w™ and o”
written b4 (or by) and ¢*, respectively.
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transformations, in which the transformation parameters are the (p — 2)-
forms . In such cases we must compensate for introducing too many
ghosts by also introducing ‘ghosts of ghosts’!> For p > 3 we need to
compensate further by introducing ‘ghosts of ghosts of ghosts,” and so on.
In what follows we shall assume that the gauge transformations (15.8.1)
are all independent, so that the ghost fields w4 (and the antighosts w*4)
are all we need.

Although the original symmetry (15.8.1) has been eliminated by the
insertion of the non-gauge-invariant functional B[f], the new total action
has an exact symmetry under the infinitesimal BRST transformations

¥x— x+0sy, (15.8.8)

where y is any of the ¢', w?, w1*, or k1; 0 is an infinitesimal anticom-
muting c-number; and s is the Slavnov operator

1 5L 1A 5!..
5 d)r ) Swd St
In Eq. (15.8.9) the subscript L denotes left differentiation, defined so that

if 5F = 6yG, then §,F/6y = G, and f%p¢ is the structure constanttf
appearing in the commutation relation

[68,6¢] = fBcda . (15.8.10)

The fApc are ficld-independent in non-Abelian gauge theories and in
string theories, though not always, but the BRST formalism is not limited
to this case. A straightforward calculation gives

s=wls AQ" B¢ fABC (15.8.9)

2_ 1 4.8 s9L(0¢") 0L(049") ¢
$=30 [M’ spr OBV g 4 5¢]5¢r
A
;waCwD [fEBcf“‘DE +5D¢"5L§¢fc] 52”4 . (15.8.11)

Hence the condition that the BRST transformation be nilpotent is equiv-
alent to the commutation relation (15.8.10), together with a consistency
condition

e fAois +6p¢” (581 /5¢7) =0, (158.12)

where the brackets in subscripts indicate antisymmetrization with respect
to the enclosed indices B, C, and D. Eq. (15.8.12) may be derived from
the commutation relation (15.8.10) in the same way as the usual Jacobi

't For instance, for a gauge transformation acting on a matter field {x) we have
5ﬁytp(x) = zt;;tp(x)é”’(x —y), and so dg,0 ”tp(x) —t,tpp(x)84(x — y)0*(x — z). Hence
in this case we have f*5 ., = C%;,8%x — y)d*(x — 2).
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identity, and takes the place of the Jacobi identity for symmetries with
field-dependent structure constants.

To show that the transformation (15.8.8) is a symmetry of Inpw, we
note (recalling that # anticommutes with »*4) that Eq. (15.8.7) may be
rewritten

INew[d, b, 0] = I[d] — s(0™ f4) . (15.8.13)

The term I[¢] is BRST-invariant, because on the fields ¢" a BRST
transformation is just a gauge transformation (15.8.1) with e replaced
with fw”, which commutes with all ¢". The term s (w*? f4) is BRST-
invariant because BRST transformations are nilpotent.

For several reasons we may need to consider a wider class of actions
than those that can be constructed by the Faddeev—Popov-De Witt ap-
proach, by simply requiring that the action is invariant under the BRST
transformation (15.8.8). As a step toward showing that such an action
yields physically sensible results, we shall now prove the general result (al-
ready used in the previous section) that the most general BRST-invariant
functional of ghost number zero is the sum of a functional of the ¢ alone,
plus a term given by the action of the BRST operator s on an arbitrary
functional ¥ of ghost number —1:

Ingw[¢, 0, 0", h] = Io[¢] + 5 V[, 0,0, H] (15.8.14)

as for instance in the Faddeev—Popov-De Witt action (15.8.13). In brief,
the BRST cohomology consists of gauge-invariant functionals I [¢] of the
fields ¢" alone.

To prove Eq. (15.8.14), we note that the BRST transformatlon (15.8.8)-
(15.8.9) does not change the total number of A% and w*? fields, so if we
expand I in a series of terms Iy that contain definite total numbers N of
W and w*4 fields, then there can be no cancellations in sI between terms
with different N, so each term must be separately BRST-invariant:

sin=0. (15.8.15)
We next introduce what is called a Hodge operator:
44 O
It is straightforward to check the anticommutation relation
*A 6[, A 0
= — — : 5.8.
{s,t} oA h ¥ (15.8.17)

Applying the operator {s,¢} to Iy and using Eq. (15.8.15) then gives
sty = —NIy , (15.8.18)
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so each Iy except for Iy is BRST-exact, in the sense that it may be written
as the operator s acting on some other functional. The complete functional
I may therefore be written in the form Iy + s¥, with

- tly

¥Y=-— . 15.8.19
~ (158.19)

N=1

The term Iy is by definition independent of o*? and h4, and since we
assume it has zero ghost number it must also be independent of w*, as
was to be proved.

To show the invariance of physical matrix elements under changes in
the definition of the gauge-fixing functional ¥, we define a fermionic
‘charge’ 0, such that the change under a BRST transformation of any
operator @ is

Se® = i[0 Q, ®] = i0 [Q, D]~ (15.8.20)

with the top or bottom sign in [x,y]y = xy F yx according as ® is
bosonic or fermionic. Just as in the previous section, the nilpotence of
the BRST transformation then tells us that Q> = 0. Matrix elements of
gauge-invariant operators between physical states will be independent of
the choice of W if and only if the physical states |x) and (B] satisfy

Qlay = (1@ =0, (15.8.21)

so that physically distinguishable physical states are again in one-to-one
correspondence with elements of the cohomology of Q. The general BRST-
invariant action (15.8.3) will therefore yield physically sensible results for
any gauge-fixing functional W if we can find some ¥, like axial gauge in
Yang-Mills theories, in which the ghosts do not interact with other fields.
If this ghost-free choice of W is inconvenient for actual calculation, as for
instance axial gauge is inconvenient because it violates Lorentz invariance,
we can adopt any gauge-fixing ¥ we like, and still be confident that there
1s a unitary S-matrix with no ghosts in initial or final states.

This approach works well in string theories, where so-called light-cone
quantization takes the place of axial gauge. But in other theories like
general relativity there is no way of choosing a coordinate system in
which the ghosts decouple. Such theories may be dealt with by the
BRST-quantization method described at the end of the previous section,
using BRST invariance to prove that the S-matrix in a physical ghost-free
Hilbert space is unitary,

The discovery!” of invariance under an ‘anti-BRST’ symmetry!® showed
that, despite appearances, there is a similarity between the roles of w4
and »*4, which remains somewhat mysterious.
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15.9 The Batalin—Vilkovisky Formalism®

This section will describe a powerful formalism, widely known as the
Batalin—Vilkovisky!® method. It is developed in the Lagrangian frame-
work, but has its roots in the earlier Batalin-Fradkin—Vilkovisky
formalism,?® which had been derived in the Hamiltonian framework. (The
two schemes have been proved perturbatively equivalent.”!) As we shall
see in Section 17.1, the same formal machinery had been developed even
earlier by Zinn-Justin?? in order to deal with the renormalization of gauge
theories. There are at least three areas where this formalism has proved
invaluable:

(1) Up to this point, we have considered only irreducible symmetries with
an algebra that closes in the sense of Eq. (15.8.10). In some theories,
such as supergravity (without auxiliary fields)> the algebra is open: it
closes only when the field equations are satisfied, so that terms appear in
Eq. (15.8.10) proportional to 61/6x". Similar terms will also then appear
in the consistency conditions (15.8.12). Eq. (15.8.11) then shows that in
such theories s will not vanish, but rather will equal a linear combination
of the derivatives 61/5x". As we will see in this section, the Batalin—
Vilkovisky method allows us to deal with very general gauge theories,
including those with open or reducible gauge symmetry algebras.

(1)) As mentioned above, essential aspects of the Batalin—Vilkovisky for-
malism were originally developed by Zinn-Justin in order to prove the
renormalizability of gauge theories. The crucial point, to be explained
in Section 17.1, is that although the sum of all one-particle-irreducible
diagrams in a background field does not obey the BRST symmetries of
the original action, it does share one of the key properties of the action,
known as the master equation.

(iif) The Batalin—Vilkovisky method provides a convenient way of analyz-
ing the possible violations of symmetries of the action by quantum effects.
It is used for this purpose in Section 22.6.

The starting point of the Batalin-Vilkovisky formalism is the introduc-
tion of what are called ‘antifields,” one for each field in the theory. We
let ¥ run over all the fields ¢", w?, w*‘, and h1, and for each " we
introduce an external antifield** i, with the same Bose or Fermi statistics

* This section lies somewhat out of the book’s main line of development, and may be
omitted in a first reading.

" The symbol § is used here in place of the more usual * in order to emphasize that
it has nothing whatever to do with complex conjugation or charge conjugation. In
particular, the antighost field w4 is not the same as the antifield o} of wA.
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and opposite ghost number as that of the BRST-transformed field sy”.
That is, ¢} has the opposite statistics to 3", and a ghost number equal
to —gh(x") — 1, where gh(yx") is the ghost number of y". In the simplest
cases, including Yang-Mills theories and quantum gravity, the original
gauge-invariant action I[¢] is supplemented with a term coupling the
antifields ¥ to the sy", giving an action

ST 1 =11] + (sx") 1 (159.1)
This satisfies what is called the master equation
0= 5—R§ LS , (159.2)
Syh ox"

with ‘R’ and ‘L’ here denoting right- and left-differentiation. To check this,
note that the terms in Eq. (15.9.2) of zeroth order in antifields just yield
the condition of gauge invariance
orl
— T T |

0= (sqb ) s = S41[d) , (15.9.3)
while the terms linear in the antifields ¢ provide the condition of nilpo-
tence:

Y OL(sK" n
0= (sx )—i‘;% = 52y (15.9.4)

The i are external fields, and must be given suitable values before we
use S[y, ¥¥] to calculate the S-matrix. For this purpose, we introduce an
arbitrary fermionic functional W[y] with ghost number —1, and set!

Xi _ 0[] .
h 5xn

(15.9.5)

Then Eq. (15.9.1) becomes

S, 0W/0y] = I[) + (sy") 6 [x) /05" = I[d] + sP[x] . (15.9.6)

Comparison with Eq. (15.8.14) shows that this is the same as the gauge-
fixed action Ingw{y]. Thus, using the same arguments as in the previous
section, physical matrix elements are not affected by small changes in .
The action (15.8.7) constructed by the Faddeev--Popov—De Witt method
corresponds to the choice ¥ = —w*4f,, for which ¢f = 0" 4614/5¢",
w% =0, and a):;i = —f4.

So far, nothing new has been accomplished. The first new point is
that the master equation (15.9.2) can be used for more general theories

* 1t is not necessary to distinguish between left- and right-differentiation here, because
cither " or '¥/d" must be bosonic.
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by letting S[x, z}] be a non-linear functional of the antifields yf. (For
reducible theories we must also include ghosts for ghosts among the x”,
as discussed in the previous section, along with their antifields.) As above,
we take the statistics of y¥ to be opposite to that of x", and its ghost
number equal to — gh(¥") — 1, and we require §[x. ¥¥] to be a bosonic
operator of ghost number zero. Because »*? and hy have linear BRST
transformations they are unaffected by the complications affecting the
other y" (in this connection, see Section 16.4), so they and their antifields
enter in the action S[y, 3] in the same way as in Eq. (15.9.1). That is,

S = Sminlg, 0, ¢F, 0% — K 0, (159.7)

where ¢, wi, and co:f are the antifields of ¢", w*, and w4, with ghost
numbers —1, —2, and 0, respectively, and Smin [¢, @, c,b*, w?] is some bosonic
functional of ghost number zero. The last term in (15.9.7) has no effect
on the master equation, so Smin satisfies the master equation by itself. ™

Because Spin has ghost number zero, its expansion in powers of antiftelds
must take the form

Smin = I[¢] + 0 f1[9] ¢F + Lot0P £€ 15(¢) 0
+ 1ot 17 45[0] ¢F ¢F + 0P 1P anclg] $Few)
+ %a)Aa)Ba)Ca)D fEFABCD[¢] w%wiﬁ +... : (15.9.8)

The term in the master equation (15.9.2) of zeroth order in antifields (and
hence first order in w?) yields

o1 (4]
= {7 15.9.
0=F4ld1 54 (15.9.9)
which is just the statement that I [¢] is invariant under the transformation
¢"— ¢ + et f[9] (15.9.10)

with ¢4 arbitrary infinitesimals. The term in the master equation propor-
tional to ¢} on the right and w?w® on the left yields
5135 [d] Sf¢

s~ IR =5, + 1 anld) feld)
o1 [¢)
oPr

finld], (159.11)

which, when the field equations §1/d¢ = O are satisfied, becomes the
commutation relation (with structure constant f< 4p[¢]) for the transfor-
mation (15.9.10). The other term in the master equation linear in antifields

_|_

t The fields ¢, w1, ¢}, w} are sometimes called minimal variables, while fields like o™
and h, which together with their antifields enter bilinearly as in Eq. (15.9.7), are called
trivial pairs.
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is proportional to w?wPwC on the left and w}, on the right; it yields

0= 74100 2 g5 2 i)+ et S

where square brackets in the subscripts indicate antisymmetrization with
respect to the enclosed indices 4, B, and C. When the field equa-
tions are satisfied this becomes the generalized Jacobi identity (15.8.12).
Eq. (15.9.11)} is necessary for the consistency of the symmetry condition
(15.9.9) (assuming that the f7 furnish a complete set of gauge symmetries),
while Eq. (15.9.12) is necessary for the consistency of the commutation
relations (15.9.11). Note that the terms in Eqgs. (15.9.11) and (15.9.12) that
arise from the terms in Sy, guadratic in antifields are proportional to
o1 [¢]/dy, so they vanish when the field equations are satisfied, and in this
sense are characteristic of open symmetry algebras. Terms in the master
equation of second or higher order in antifields involve terms in S, that
are of third and/or higher order in antifields. These provide consistency
conditions for Egs. (15.9.11) and (15.9.12), consistency conditions for these
consistency conditions, and so on. It is a virtue of the Batalin-Vilkovisky
formalism that all these consistency conditions are incorporated in the
one master equation.

The master equation may be reinterpreted as a statement of invariance
of § under a generalized BRST transformation. In order to see this, and
for future purposes, it (s useful to introduce a formal device known as the
antibracket. Returning now to our previous notation, the antibracket of
two general functionals F[y, x¥] and G[y, *] is defined by

orF 01.G OgrF 01.G

0" Syt Sy Oxn
Note that right- and left-functional derivatives of a bosonic functional
like S with respect to a bosonic or fermionic field variable are equal to
each other or negatives of each other, respectively. Since just one of either
¥+ or ¥ is always fermionic and the other bosonic, it follows that for the

antibracket (S,S) the second term on the right-hand side in Eq. (15.9.13)
changes sign if we reverse left- and right-differentiation

orS 5LS 0LS 6rS _ OrS OLS

Syk oxn 5yf o Sx* Syb
(The last step is allowed because, since one of the factors here is bosonic,
their order is immaterial.} We see that the second term on the right in
Eq. (159.13) for (§,S) is the negative of the first. The master equation

(15.9.2) may therefore be written as the requirement that the antibracket
of § with itself vanishes:

(159.12)

(F,G) =

(15.9.13)

(S,85)=0. (15.9.14)
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This is a non-trivial requirement, because the antibracket has the general
symmetry property

(F,G)= +(G,F), (15.9.15)

the sign being +1 where F and G are both bosonic, and —1 otherwise. In
particular, (F, F) automatically vanishes if F is fermionic, but not if F is
bosonic.

The generalized BRST transformation is defined by

. SRS

Sox" = 0-"5 = =057, (15.9.16)
O X7

Sort = _g2RS _ —6(S, 1H (159.17)

6 5 s dn) s 9.

where 0 is a fermionic infinitesimal constant. (When § is of the form
(15.9.1), the transformation of y is the same as the original BRST trans-
formation dgy” = 0sy".}) To evaluate the effect of this transformation on
general functionals, we note that the antibracket acts as a derivative, in
the sense that

(F,GH) = (F,G)H + G (F,H), (15.9.18)

where the sign is —1 if G is fermionic and F is bosonic, and +1 otherwise.
Hence if G and H are arbitrary functionals of y and ¥t with 053G =
—0(S,G) and §gH = —06(S, H), then

S5¢(GH) = —0(S, G)H — GO(S, H) = 0[(S,G)H + G(S,H)] ,

where the sign is + or — if G is bosonic or fermionic. Taking F in
Eq. (15.9.18) equal to the bosonic functional S, we see then that

59(GH) = —6(S, GH) .

Together with Eqgs. (15.9.16) and (15.9.17), this shows that for any func-
tional F formed as a sum of products of fields and antiftelds

6gF = —0(S,F) . (15.9.19)

The master equation (15.9.14) may be interpreted as the statement that
these generalized BRST transformations leave § invariant

60S = —6(S,5)=0. (15.9.20)

Like the original BRST transformation, this symmetry transformation is
nilpotent. To see this, we use the Jacobi identity for the antibracket:

+ (F,(G, H)) + cyclic permutations = 0, (15.921)

where the sign in the first term is — if F and H are bosonic and +
otherwise, with corresponding signs for the other two cyclic permutations
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of F, G, and H. Taking F = G = §, Eq. (15.9.21) becomes
0 = +(S5,(S, H)) + (H,(8,5)) + (5, (H,5) = +2(S, (S, H) + (H, (5, 5)) ,

where the sign is — or + if H is bosonic or fermionic. The master equation
(15.9.14) then yields the nilpotency condition

(S.(S,H)) =0. (15.9.22)

Because of this symmetry, the solution of the master equation is not
unigue. For instance, Eq. (15.9.22) shows that for any given solution § we
can find another solution given by the infinitesimal transformation

S =S +(6F,S), (15.9.23)

with F an infinitesimal functional of y and y¥ that is arbitrary, except
that it must be fermionic and have ghost number —1 in order that §'
should be bosonic and have ghost number zero. In particular, taking J F
to be a fermionic functional €W of ¥" alone gives

W[yl 6rS _
Sx" Syl

H

; oV
Sl 4 = STo gt + ¢ s [x,x*+e—] L (159.24)

dx

These infinitesimal transformations may be trivially integrated, and show
that the master equation is still satisfied if we shift the antifields to new
variables xi = yf — 6W/5y".

The transformation (15.9.23) is a special case of what are usually
called canonical transformations, and will here be called ‘anticanonical
transformations’ to distinguish them from the canonical transformations
of Chapter 7. An anticanonical transformation is any transformation
of fields and antifields, finite or infinitesimal, that leaves unchanged the
fundamental antibracket relations:

k=04, aM=0d.4) =0, (15.9.25)

For instance, consider the infinitesimal anticanonical transformation gen-
erated by an infinitesimal fermion generator ¢ F, under which any bosonic
or fermionic functional G is transformed into

G—>G =G+ (§F,G). (15.9.26)

It is easy to show that this does not change the fundamental antibrackets
(159.25). For this purpose, note that the antibracket (G,H) of two
functionals G and H is transformed into (G', H'), which to first order in
infinitesimals is

(G',H'Y = (G,H)+ ((6F),G),H) + (G,(6F,H)) .
Using the Jacobi identity (15.9.21), this is
(G H'y=(G,H) £ (0F,(G,H)), (15.9.27)
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with the sign + if G and H are both bosonic, and — otherwise. In
particular, if (G, H) is a c-number then it is unchanged by an anticanonical
transformation. (This is another way of seeing that the transformation
(15.9.23) leaves the master equation unchanged.)} The fields and antifields
have c-number antibrackets (15.9.25), so the same must be true for the
transformed fields and antifields.

To calculate the S-matrix we must give some definite value to the
antifields. As in the simple case of closed gauge algebras where § is of the
linear form (15.9.5), we can do this by taking the antifields in the form
(15.9.5); that is, we calculate the S-matrix using the ‘gauge-fixed’ action

0P [x]

el = |15 2]

where W[y] is a fermionic functional of ghost number —1. According

to the remarks following Eq. (15.9.24), this is the same as taking the
canonically transformed antifields x*’ equal to zero.

The gauge-fixed action is invariant under a BRST transformation that
acts on fields y" alone:

(15.9.28)

¥
dgx" = Osy" | where sy’ = (é{iﬂﬁ_ﬂ) . (159.29)
0 i x=0¥ /oy

To check this, note that
SrS[x x¥] 6LS[x, x*])
S OX" ] yiesw/sy

(5RS 7% 63l SLSlx xF] )
S OXMOX SgE ) sy

she[y] = (

The first term on the right-hand side vanishes as a result of the master
equation, and the second because the summand is antisymmetrict in m
and n.

For closed algebras with S of the form (15.9.1), the transformation
(15.9.29) is the original BRST transformation dgy" = 8sy". But for general
open algebras, the transformation (15.9.29}) is not the same as the original
BRST transformation, and in general is not even nilpotent unless the field
equations are satisfied. Instead, from the terms in the master equation of

T For y" and y™ both bosonic this is because 55/5y" and 45/y™ anticommute. For
one of ¥" and y™ fermionic and the other bosonic, this is because the right- and
left-derivatives of § with respect to whichever y is fermionic have opposite signs.
The terms with ¥* and ¥™ both fermionic are antisymmetric because for these terms
S2W/5ymSy" is anlisymmetric.
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first order in the shifted antifields xf =y} —6W[x]/6y", we find

_ [ oL 0 ol
s%m=+(ﬁ:ﬁﬂxﬂ) L (15930
0 Jm O)n =55y 2%

with the sign — or + if y™ is bosonic or fermionic, respectively. Again,
we see that the dependence on the field equations characteristic of open
gange algebras is associated with terms in § quadratic in the antifields.

Until now we have been considering only the formulation of a classical
field theory based on an open or closed gauge algebra. Now we must
consider how quantum mechanical calculations are done in such theo-
ries. Physical matrix elements may be calculated by functional integrals
weighted with exp(ily[y]), where as explained above, Iy[y] is obtained
from S[x, x¥] by setting yf = 6'¥[;]/y", or in other words yi = 0. We
wish to evaluate the effect of a change in W[y] on these matrix elements.
First consider the vacuum—vacuum amplitude

Zy = / MLz expirela).- (15.9.31)
Under a shift 6'[x] in ¥[x], this changes by an amount

. . SrS[z, 1] 5 (3¥[)
oo Mo ewsn(S559),_ (528)

An
(15.9.32)
Integrating by parts in field space, this becomes
0Z = / [T dx] expitela)
¥
y {51{3[%;:% ] 5L5[‘PH[X] _iAS[y, xq;]} SW, (159.33)
d xn X =8 /6y
where
A= ‘S—Rifs—f‘ . (15.9.34)
Syr 01"

We see that the condition for the ¥ independence of the vacunm—vacuum
amplitude is in general not the master equation (15.9.2), but rather what
is called the quantum master equation

(5,8)—2iAS =0 at ¢ =0¥/5y . (15.9.35)

In cgs units a factor 1/% would accompany each factor of S[y, ¥¥], so the
second term in Eq. (15.9.35) would have a coefficient —2i% in place of
—2i. Thus whenever the quantum master equation (15.9.35) is satisfied,
the term in § of zeroth order in % satisfies the original master equation
(15.9.2). Usually it is easy to construct an action that satisfies the classical
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master equation, so that the first term in Eq. (15.9.35) vanishes, and the
question is then whether the second term also vanishes. The case where the
quantum master equation is not satisfied by a local action is considered
in Chapter 22, on anomalies.

Assuming the quantum master equation (15.9.35) to be satisfied, the
change in the vacuum expectation value of an operator ¢fy] due to a
change 6 in ¥ 15

—~i . SrOL] (8-St ot
30y = 7 [ [[Tde] exp (irela) 2551 ( WL ))XLMX ST

ox" St
(15.9.36)
The coefficient of the exponential in the integrand in Eq. (15.9.36) is just
sO[y]. We see that expectation values of operators that are invarianttt
under the generalized BRST transformation (15.9.16)-(15.9.17) are unaf-
fected by a change in the gauge-fixing fermion ¥. Corresponding results
hold for vacuum expectation values of two or more operators.

Appendix A A Theorem Regarding Lie Algebras

In this appendix we consider a general Lie algebra ¥, with generators ¢,
and structure constants C%g,, and prove the equivalence of three condi-
tions:

a: There exists a real symmetric positive-definite matrix g,p that satisfies
the invariance condition

2upClis = — 8,5CP s . (15.A.1)

(This is the condition (15.2.4) shown in Section 15.2 to be necessary
on physical grounds.)

b: There is a basis for the Lie algebra (that is, a set of generators f, =
L 1ptp, witln & a real non-singular matrix) for which the structure
constants C%, are antisymmetric not only in the lower indices § and
v but in all three indices o, f and y.

c¢: The Lie algebra ¥ is the direct sum of commuting compact simple and
U(1) subalgebras 5.

tt For open gauge theories there are generally no operators other than constants that are
invariant under the transformations (15.9.16)—(15.9.17). Instead ove should consider
operators Oy, ¥%) that are invariant under the nilpotent ‘quantum BRST operator’ o,
defined by ¢0 = (0,5) — iAO. Where O depends only on y, this condition reduces to
Eq. (15.9.36). If a0 = O then the expeclation value of O(¥,5'¥/dy) is unaflected by a
small change in the gauge-fixing fermion ¥.%
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We shall prove the equivalence of statements a, b, and ¢ by showing that
a implies b, b implies ¢, and ¢ implies a. As a by-product, we shall also
show that if these conditions are satisfied, then it is possible to choose
the generators % as tn,, with m labelling the simple or U(1) subalgebra
#m to which t,,, belongs and « labelling the individual generators in this
subalgebra, and with the matrix g, that satisfies Eq. (15.A.1) taking
the form

manb = L Omndab » (15.A.2)

where the g, are arbitrary real positive constants,

First, let us assume a, the existence of a real symmetric positive-definite
g,p satisfying the invariance condition (15.A.1). We may then define new
generators

y.8ts s (15.A.3)

—1/2

t=(g

in which the existence of a real inverse square-root matrix g 1S guar-
anteed by the positive-definiteness of g,g. These satisfy a Lie algebra

[fonBp| =1 Cop) (15.A4)
where

Crap = (87 Dol P)pp(gt /)y C g - (15.A.5)

(In this basis it is convenient to drop the distinction between upper and
lower indices a, f§, etc., and write Cyqg in place of C7, g-) Then Eq. (15.A.1)

tells us that C,,; is antisymmetric in o and y as well as in y and §, and
hence is totally antisymmetric, verifying b.

Next let us assume b, the existence of a basis for the Lie algebra for
which the structure constants are totally antisymmetric. In this basis, the
matrices ('fAm)ﬁy = —iCp,, Of the adjoint representation are imaginary and
antisymmetric, and hence Hermitian. According to a general theorem
about Hermitian matrices,* the ¥4, are then either irreducible or totally
reducible,

*If a set of matrices H, is not irreducible, then by definition there must be a set of
vectors u, that span a subspace (other than the whote space) that is left invariant by
the H,: that is, for all & and n, Hytty = Y _(C,)matin. In this case we can adopt a basis
consisting ol the vectors u, together with a set v, that span the space orthogonal to alt
the u,. If the H, are Hermitian then (u,, Hati) = Y (Ca)pu(ttm, ) = 0, so the space
spanned by the v, is also invariant under the H,: H,v; = E ADg)xvy. In this basis the
matrices H, are simultaneously reduced to a block-diagonal form:

¢, 0O
N

Continuing in this way, we can complctely reduce the matrices H, to a block-diagonal
form with irreducible matrices in the blocks.
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By an irreducible set of N x N matrices ¥, is meant a set for which
there exists no subspace of dimensionality < N that is left invariant by
all the 74, — that is, no set of less than N non-zero vectors (u,)g for
which (#4,),(4,), is for each « and r a linear combination of vectors (us)g.
Since the matrices (?Aa)ﬁy are proportional to the structure constants in
this basis, this is equivalent to the statement that there is no set of lincar
combinations 7 , = (u,)ﬁ*‘y that is closed under commutation with all the
A, that is, for which [f%,, ] is for each « and r a linear combination
of the 7. Such a set of matrices 4, would furnish the generators of
an invariant subalgebra of the full Lie algebra; the absence of such a set
means that the Lie algebra is simple.

By a totally reducible set of matrices A,, is meant one that by a suitable
choice of basis may be written as block-diagonal supermatrices

(A mans = [ 3 ab Sn (15.A.6)

where the submatrices t2, are either irreducible or vanish."" Adopting
this basis also for the Lie algebra itself, the structure constants are then

Clemans = U s )mand = 1 (™ 1) Omn - (15A.7)

But since this is totally antisymmetric, and proportional t0 9d,,,, it must
also be proportional to s, and Oz

Chemans = O Osm C) (15.A.8)

cab *

In other words, for any representation t™™,; = ty, of the Lie algebra in
this basis, we have

[t(m)as tf(M)b] = iémnc(m)t(m)

cab C»

(15.A.9)

with C”, real and totally antisymmetric in the indices a, b, c. The fact that
it is possible to construct a basis in which the generators fall into sets ™),
with the commutators of the generators in one set with each other given
by a linear combination of generators in that set, and with all members
of one set commuting with all members of any other set, is what we mean
when we say that the Lie algebra is a direct sum of the subalgebras £,
For each m, the set of matrices of the adjoint representation " is either
irreducible or zero, corresponding to a subalgebra that is either simple or
consists of so-called U(1) generators, which commute with all generators
of the whole algebra.

We have thus shown that the most general Lie algebra with totaliy
antisymmetric real structure constants is a direct sum of one or more

** Here m and n label the blocks along the main diagonal, and ¢ and b label rows and
columns within these blocks. Also, m is not summed, and the range of the indices a, b,
etc. in general depends on m.
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simple and/or U(1) Lie algebras. Furthermore, the simple subalgebras

are compact, in the sense that each matrix —C(EL"JCE;‘} is positive-definite,
becaus.e. for any rfegl vectgr U, —ng CEE;? Uatpy = D ou[> uacgg"j]z is a sum
of positive quantities, which cannot vanish unless g = 0, since for u, £ 0
the condition that 3, uaC‘g’;} = 0 would imply that 3, u, ", is itself an
invariant Abelian subalgebra, in contradiction with the fact that the ¢t
form a simple Lie algebra. This completes the proof of .

Finally, let us assume c, that we have a Lie algebra that is the direct sum
of a set of simple or U(1) Lie algebras; that is, in some basis £ = L maats

with real non-singular .%#, we have
£, 6] = 8 O il

where each subalgebra 1 is either simple or commutes with everything.
We furthermore assume that the simple subalgebras are compact, in the
sense that the matrices

g = —Ctme ,clmd, (15.A.10)

are positive-definite. To construct a real positive-definite matrix gxp Satis-
fying Eq. (15.A.1), in the basis of generators t,, = (" we take

s = 8 O , (15.A.11)

where g% is taken as the matrix (15.A.10) when £™ is a simple subalgebra,
and is taken as an arbitrary real symmetric positive-definite matrix when
t") is a direct sum of one or more U(1) subalgebras. The matrix EIS.A.II)
is obviously real, symmetric, and positive-definite because each ga';:) is. To
check the requirement (15.A.1), recall the Jacobi identity for the structure

constants;
C(m)f'ad C(m)dbe + C(m)cbd C(m)dea + C(m)ced C(m)dab =0 (15A12)

and contract with C™*,. After renaming the summation indices in the
third term so that ¢ — d — e — ¢ and using Eq. (15.A.10), the result for
the simple subalgebras may be written:

gg?)c(m)dab — C(m)fa dC('")d bec(m)ec ;- Cimye P L Cmd beC(m)eca ]

The important point is that this shows that the left-hand side is antisym-
metric in ¢ and f:

gy C™y = —glmclmid (13A.13)

The same result holds trivially for the U(1) subalgebras, where the struc-
ture constants vanish. The symmetry condition (15.A.1) follows immedi-
ately from Eq. (15.A.13), thus completing the proof of a. This concludes
our proof of the equivalence of statements a, b, and .
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Now we come back to the matrix g,s. With totally antisymmetric
structure constants, the invariance condition (15.2.4) may be expressed
as the statement that this matrix commutes with all the matrices in the
adjoint representation of the Lie algebra

[g, t*,]=0. (15.A.14)

We have seen that all (fA-};)aﬁ can be put in block-diagonal form, with
irreducible (or zero) submatrices along the main diagonal. A well-known
theorem? tells us that then g5 must also be block-diagonal, with blocks
of the same size and position as in the 4, and with the submatrix in each
block proportional to the unit matrix. (Where two of the submatrices in
the tAaJ, are equivalent, in the sense that they can be related by a similarity
transformation, it may be necessary to make a suitable change of basis
in order to bring the submatrices of g, into a form proportional to unit
matrices.) In the notation of Eq. (15.A.11), the metric is then given by
Eq. (15.A.2).

Appendix B The Cartan Catalog

We present here without proof the complete catalog of simple Lie algebras,
worked out in its final form by E. Cartan.?6 These will be presented here
in their ‘compact’ form — that is, with generators that can be faithfully
represented by finite-dimensional Hermitian matrices. The Lie algebras
will be labelled with a subscript » > 1 indicating their ‘rank’ — the
number of independent commuting linear combinations of generators,

A,: This is the algebra of the special unitary group SU(n + 1), the group
of all unitary (UT = U~!) unimodular (DetU = 1) matrices in n + 1
dimensions. Any such matrix that is infinitesimally close to the identity
may be expressed as

U=1+iH,
with infinitesimal H satisfying the conditions
Hf'=H, TrH=0,

so A4, is the Lie algebra of all Hermitian traceless matrices in n+ 1 dimen-
sions. Any set of commuting Hermitian matrices may be simultaneously
diagonalized, and the maximum number of independent diagonal traceless
matrices in 7+ 1 dimensions is », so this is the rank of 4,. Any Hermitian
matrix in 741 dimensions has (#n+ 1)? independent real parameters (n+ 1
real numbers on the main diagonal, and a(n + 1)/2 complex numbers
above the main diagonal, equal to the complex conjugates of those below
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it), and one of these is eliminated by the tracelessness condition, so the
dimensionality of 4, is

d(An) = (n+ 1P —1=nn+2).
All of the A4, are simple.

B,: 'This is the algebra of the unitary orthogonal group O(2n + 1),
consisting of all vnitary (0" = @~!) and orthogonal (¢T = @) and
hence real matrices in 2n + 1 dimensions. (The restriction to unitary
matrices is sometimes indicated by calling the group UO(2n + 1).) Any
such matrix ¢ that is infinitesimally close to the identity may be expressed
as

(/ = 1 + IA. ’
where A is an infinitesimal matrix satisfying the conditions
A"=—-A4=4".

(It would make no difference here if we restricted ourselves to the subgroup
SO(2n+ 1), for which @ is subject to the further condition Det ¢ = 1, since
any orthogonal matrix ¢ that is close to the identity would haye Det ¢ =
1 anyway.) Any set of commuting imaginary antisymmetric (2n + 1)-
dimensional matrices may (by a common orthogonal transformation) be
put in the form of a supermatrix

a0 0
azran
Ca,o
0 "2
where o7 is the usual 2 x 2 matrix
o — 0 —i
S

and ay," - ,ay are real. The rank of B, is thus evidently n. An imaginary
antisymmetric matrix is completely specified by the imaginary numbers
above the real diagonal, so its dimensionality is

(2n 4 1)(2n)

d(By) = s = n2n+1).

All of the B, are simple.

There is an alternative definition of O(N) that will help in understanding
the motivation for the next large set of simple Lie algebras., Instead of
defining O(N) as the group of N-dimensional real matrices that satisfy
the orthogonality condition ¢T@ = 1, it can just as well be defined as the
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group of N-dimensional real matrices .# that satisfy the condition
M PM =P

where 2 is an arbitrary positive-definite real symmetric matrix. This
is because any such 2 may always be expressed as # = ## with #
some real non-singular matrix, so there is a similarity transformation that
takes any matrix . satisfying the above condition into a real orthogonal
matrix, Z.4% 1. Thus we may let 2 be various different real symmetric
positive-definite matrices without changing the group.

C,: This 1s the algebra of the unitary symplectic group USp(2n), the
group of unitary matrices .# that leave an antisymmetric non-singular
matrix ¢ invariant:

Mo M = o

FT=—o , Detd +0.

(Note that in d dimensions, Det.&/ = Det./T = (—)?Det o, so if d is
odd then Det .o/ must vanish. Thus there is no US p(d) unless d is even.)
Any such antisymmetric non-singular (perhaps complex) matrix &/ may
be written in the standard form

o =R AR

where # is unitary and &/ is the supermatrix:

0 1
w=[ 00
(Alternatively, we could take o7y as a block-diagonal supermatrix, with

o1s along the main diagonal.) Hence USp(2n) may be described as the
group of unitary matrices & satisfying

FL oo = s

since by a unitary transformation any such .% can be transformed into
a unitary matrix # = A 1% that satisfies the previous condition
MY oA M = of. Any such matrix & that is infinitesimally far from
the identity may be written

F=14i#,
where 5 is an infinitesimal matrix satisfying the conditions
H =, Hlodo+ o =0.

The most general 2n-dimensional matrix J# satisfying these conditions
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may be written as a supermatrix

of B
f _ [ @t —ﬁ‘ ] »
where the n-dimensional complex submatrices .of,  satisfy
A=, B =2

A maximal set of commuting generators have ./ diagonal and # zero,
and so are of the form

[ aj 0 ]
t;f = an _al
| O —ay |
with ay, -, a, real. The rank of C, is thus evidently n. The dimensionality

of Cy, is the number n® of independent real parameters in the Hermitian
matrix &, plus the number 2n(n+ 1)/2 of independent real parameters in
the complex symmetric matrix %

d(Ca) =n* +2 xn{n+1)/2 =n2n + 1) .
All of the C, algebras are simple.
D,: This is the algebra of the unitary orthogonal group O(2n), consisting
of all unitary orthogonal matrices in 2n dimensions. The discussion of

By can be carried over to D,, except that here any set of commuting
generators can be put in the form

a167 0
axo;

0 " a0
so the rank is still ». Also, the dimensionality here is

(2n)(2n — 1)
2

All of the D, are simple except for Dy, which is the Abelian algebra with
just one generator, and D;, which is the direct sum By + By.

d(D,) = = n(2n—1).

Exceptional Lie Algebras: In addition to the above classical Lie algebras,
there are just five special cases, the algebras Gy(d = 14); Fy(d = 52);
E¢(d =78); E7(d = 133); Eg(d = 248).
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Not all of the classical Lie algebras are really different. There are just
four isomorphisms

Ay =B, =C(, C, =B, Az = D5,

These correspond to isomorphisms among Lie groups of which these
are the algebras. However, isomorphisms like B = 41, B2 = C;, and
D3 = A3 do not mean that SO(3) is isomorphic to SU(2), or that SO(5)
is isomorphic to USp(4), or that SO(6) is isomorphic to Q'U (4). Instead,
SU(2), USp(4), and SU(4) are the simply connected covering groups of
SO(3), SO(5), and SO(6). (Covering groups are discussed in Chapter
2.) Nevertheless, the isomorphisms of the Lie algebras make it especially
easy to construct the double-valued fundamental spinor representations
of SO(3), SO(5), and SO(6); they are just the defining representations
of SU(2), USp(4), and SU(4), respectively. Also SO(4) is isomorphic
to SO(3) x SO(3), so its double-valued spinor representation is just the
defining representation of SU(2) x SU(2). For d > 7 the double-valued
spinor representations of SO(d) must be constructed by other means. The
simplest technique uses Clifford algebras, discussed in Section 5.4.

Problems

1. Derive the Bianchi identity
DuFmv2+Dv Fov +D2Fmpv =0.

2. Suppose we use generalized Coulomb gauge in a non-Abelian gauge
theory, taking the gauge-fixing function as fy, = V- A,. Derive the
ghost Lagrangian. What is the ghost propagator? (Take B[f] =
exp(—i [ d*x fuf2/26))

3. Suppose that in electrodynamics we use a gauge-fixing function
= §,A* + cA A, with ¢ an arbitrary constant. Derive the ghost
Lagrangian. (Take B[f] = exp(—i [ d*x f.f+/2¢).) What is the ghost
propagator?

4, Show that there is no simple Lie algebra with just four generators.

5. Show that if a field w/{x) belonging to a representation of a gauge
group with generator matrices f, varies along a path x* = x#(1)
according to the differential equation

dy(t)
dt

dxH(1)
dv ~’

= it (T)Anp (X(7))
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(with both y,(x) and A4,,(x) classical c-number fields) then the change
in y around any small closed path # around a point X* is propor-
tional to

tap(X) Fan () §, x40) = e

Find the constant of proportionality. Use this result to show that
if F,,,(x) vanishes everywhere then it is possible by a gauge trans-
formation to make Agy,(x) vanish throughout at least a finite region.
(Hint: Follow the analogous argument in electrodynamics, or in
general relativity, as in Ref. 6.)

. Applying path-integral methods to a general non-Abelian gauge
theory, calculate the propagator of the gauge field Ay, (x) if we choose
a gauge-fixing functional f, = n,A44, with n, arbitrary constants,
(Take B[f] = exp(—i  d*x f.f./2¢).) What is the ghost Lagrangian?
What is the ghost propagator? What is the ghost interaction vertex ?

. Suppose we adopt BRST invariance instead of gauge invariance
as a fundamental physical principle. Derive the most general La-
grangian density constructed from sums of products of fields and
field derivatives of dimensionality (mass)? with d < 4, constructed
from Ay, @y, @, by, and/or their derivatives, that is invariant (up
to total derivatives) under Lorentz transformations, ghost number
phase transformations (w, — e w,, W, — e_i”w;), global gauge
transformations (e, constant), and BRST invariance.

. Show that the antibracket satisfies the symmetry condition (15.9.15)
and the Jacobi identity (15.9.21).

. Show that if a functional O satisfies the condition (0, S) = iAS and
the action § satisfies the quantum master equation then the quantum
average (O) is independent of the gauge-fixing functional ‘P.
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16
External Field Methods

It is often useful to consider quantum field theories in the presence of a
classical external field. One reason is that in many physical situations,
there really is an external field present, such as a classical electromagnetic
or gravitational field, or a scalar field with a non-vanishing vacuum
expectation value. (As we shall see in Chapter 19, such scalar fields can
play an important role in the spontaneous breakdown of symmetries of
the Lagrangian.) But even where there is no actual external field present
in a problem, some calculations are greatly facilitated by considering
physical amplitudes in the presence of a fictitious external field. This
chapter will show that it is possible to take all multiloop effects into
account by summing ‘tree’ graphs whose vertices and propagators are
taken from a quantum effective action, which is nothing but the one-
particle-irreducible connected vacuum-vacuum amplitude in the presence
of an external field. It will turn out in the next chapter that this provides an
especially handy way both of completing the proof of the renormalizabilty
of non-Abelian gauge theories begun in Chapter 15, and of calculating
the charge renormalization factors that we need in order to establish the
crucial property of asymptotic freedom in quantum chromodynamics.

16.1 The Quantum Effective Action

Consider a quantum field theory with action I[¢], and suppose we ‘turn
on’ a set of classical currents J,(x) coupled to the fields ¢"(x) of the
theory. The complete vacuum vacuum amplitude in the presence of these
currents is then

Z[J] = (VAC, out|VAC, in);
= / [H d¢r“(y)] exp (il [¢] + i/d“x O (x)J,(x)+ € terms) .
5y
(16.1.1)

A3
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(The fields ¢”(x) need not be scalars. They might even be fermionic,
though until Section 16.4 we shall not bother to keep track of the signs
that would appear in that case.) The Feynman rules for calculating Z [J]
are just the same as for calculating the vacuum—vacuum amplitude Z [0] in
the absence of the external current, except that the Feynman diagrams now
contain vertices of a new kind, to which a single ¢"-line is attached. Such
a vertex labelled with a coordinate x contributes a ‘coupling’ factor iJ,(x)
to the integrand of the position-space Feynman amplitude. Equivalently,
we could say that in the expansion of Z [J] in powers of J, the coefficient
of the term proportional to iJ.(x)iJg(y):-- is just the sum of diagrams
with external lines (including propagators) corresponding to the fields
d'(x), ¢'(y), etc. In particular, the first derivative gives the vacuum
matrix element of the quantum mechanical operator ®"(x) corresponding

to ¢’ (x):

5 1 Lo g r .
[ﬁJr(y)Z[J]]J_O_I/ILI de (l)] ¢"(y) exp {il [¢] + € terms}

= i (VAC, out|/® (x)|VAC, in); . (16.1.2)

We sometimes work with functionals Z[J] defined by (16.1.1)} where the
@' (x) are not elementary fields (that is, fields appearing in the action) but
products of such fields. Where ¢"(x) is a product of N elementary fields,
the new vertices in the Feynman rules for Z[J] have N lines attached.
Some of the results of this chapter (including Eq. (16.1.2)) apply in this
case, but where Feynman diagrams are involved, it wiil be tacitly assumed
that the ¢ (x) are elementary.

Now, Z[J] is given by the sum of all vacuum—vacuum amplitudes in
the presence of the current J, including disconnected as well as connected
diagrams, but not counting as different those diagrams that differ only
by a permutation of vertices in the same or different connected subdia-
grams. A general diagram that consists of N connected components will
contribute to Z[J] a term equal to the product of the contributions of
these components, divided by the number N! of permutations of vertices
that merely permute alf the vertices in one connected component with all
the vertices in another.” Hence, the sum of all graphs is

oc

ZUr=>" % AW JIDN =exp(iW[J]), (16.1.3)
N=0"""

* The contribution of a Feynman diagram with N connected components containing
ny, ha,- - ny vertices will be proportional to a factor 1/(n; + - ny)! from the Dyson
expansion, and a factor (n; +- - - ny)!/N! equal to the number of permutations of these
vertices, counting as identical those permutations that merely permute all the vertices
in one component with all the vertices in another.



16.1 The Quantum Effective Action 65

where iW [J] is the sum of all connecred vacuum-vacuum amplitudes, again
not counting as different those diagrams that differ only by a permutation
of vertices.

For many purposes, it will be useful to go one step further, and in place
of W(J) work with the sum of all connected one-particle-irreducible graphs.
(A one-particle-irreducible graph is one that cannot be disconnected by
cutting through any one internal line.) We can give a formal expression
for this sum as follows. First, define ¢(x) as the vacuum expectation
value of the operator @"(x) in the presence of the current J:

{(VAC, out{d(x)|VAC, in); i d
T(x) = = — 1.4
¢5%) (VAC, out|VAC, in); Z[J] 6J.(x) zUl - deld)
or in terms of the sum of connected graphs
h(x) = WJ]. 16.1.
850 = 5575 Wl (16.15)

This formula can be inverted. Define Jy,(x) as the current for which
(16.1.4) has a prescribed value ¢ (x):

Bx) = ¢ (x) if Jp(x) = T4 ().

The quantum effective action' T[] is defined (as a functional of ¢, not J)
by the Legendre transformation

] = — / dx ¢ () Jr(x) + W Jg] - (16.1.6)

We will soon show that I'[¢] is the sum of all connected one-particle-
irreducible graphs in the presence of the current J;. However, let us first
take a look at another aspect of its physical significance.

Note that the variational derivative of I'[¢] is

ar[cr)] ~ i Bl

c;d)’*(y) 5
[oWJ Jr(X)
+f léJr(x)L% 56°()
or, using Eq. (16.1.5),
5T ]
= —J4s(y) . 16.1.
sy = el (16.1.7)

Thus I'[¢] 1s the ‘effective action’, in the sense that the possible values for
the external fields ¢%(y) in the absence of a current J are given by the
stationary ‘points’ of I":
ol [¢]
d¢*(y)

=0 for J=0. (16.1.8)
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This may be compared with the classical field equations, which just
require that the actual action I[¢] be stationary. Hence Eq. (16.1.8) may
be regarded as the equation of motion for the external field ¢, taking
quantum corrections into account.

Not only does I'[¢] provide the quantum-corrected field equations; it
is an effective action in the sense that iW[J] may be calculated as a sum
of connected tree graphs for the vacuum—vacuum amplitude, with vertices
calculated as if the action were I'[¢] instead of I[¢p]. By a tree graph is
meant one that becomes disconnected if we cut any internal line. All the
effects of loop diagrams are taken into account by using I'[¢] in place of
116,

To see this,® let us consider the quantity Wr[J,g] that we would get
instead of W [J], if we used an action g~'I'[¢] in place of I[¢]:

exp {iWrlJ, g]} = / I1 46" (») exp{i g [Tlol + / dx ¢ (%) Jo(x)

+ € terms} , (16.1.9)

with arbitrary constant g. The propagator here is the inverse of the
coefficient of the term in g 'I'(¢) quadratic in ¢, and is hence proportional
to g, while all vertices make a contribution proportional to 1/g, so a graph
with V vertices (including those produced by the current J) and I internal
lines (including those attached to the J vertices) is proportional to g'~",
For any connected graph, the number of loops is L =1 — V + 1, so the
L-loop term in Wr[J,g] has the g dependence

(WT[J, g])L oops © gLl (16.1.10)

Equivalently, we may write (at least formally)

s
wrid,gl =3 g wib i, (16.1.11)
L=0

where (as can be seen by setting g = 1), the quantity Wl(.‘r‘) [J] is the L-loop
contribution to the connected vacuum amptlitude W[J, 1] that we would
obtain if we used I'[¢p] (without a factor g) in place of the action I [¢].

Now, we are specially interested here in the sum of tree graphs, those
without loops, calculated with vertices and propagators calculated as if
the action were I'[¢] instead of I[¢]. In our present notation, this is
Wl(-o) [J]. In order to isolate the L = 0 term in Eq. (16.1.11), consider the
limit g — 0. In this limit, the path integral (16.1.9}) is dominated by the
point of stationary phase,

exp{iWr[J,g]} ocexp{ig_l {r[cpj] +/d4x¢{}(x)1,,(x)]} . (16.1.12)
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where, because of its definition as the field produced by the current J, the
field ¢ is the stationary point of the exponent, in the sense that

g;r[(i]) = —J.(x). (16.1.13)
o=
The proportionality factor in Eq. (16.1.12) is in general a functional of J,
but it is a power series in g starting with terms of order g?. Hence taking
the logarithm of both sides and isolating the terms of order g—! gives

WO =Tlgsl + [ dx 659, (16.1.14)

By setting ¢ = ¢; in Eq. (16.1.6), we see that the right-hand side of
Eq. (16.1.14) is just W [J]:

WOl =wlJ]. (16.1.15)

To recapitulate, this says that W[J] may be calculated by using I'[¢] in
place of I[¢] (the subscript I') and keeping only tree (0-loop) graphs:

wi] - | [Hdcrf(x)] exp{fr[¢]+fz / cff(x)Jr(x)d“x}.

(16.1.16)
Now, any connected graph for iW [J] can be regarded as a tree, whose
vertices consist of one-particle-irreducible subgraphs. Thus in order for
Eq. (16.1.16) to be correct, iI'[¢] must be the sum of all one-particle-
irreducible connected graphs with arbitrary numbers of external lines,
each external line corresponding to a factor ¢ rather than a propagator
or wave function. For this reason, the coefficients in an expansion of T'[¢]
in powers of fields and their derivatives around some fixed field ¢¢ may
be regarded as renormalized coupling constants, with the renormalization
‘point’ specified by ¢¢ rather than by some set of momenta.
Equivalently, il '[¢o] for some fixed field ¢j(x) may be expressed as the
sum of one-particle-irreducible graphs for the vacuum—vacuum amplitude,
calculated with a shifted action I[¢p + ¢p¢]:

iTleal = | [qubf(x)] exp{illp+ol}.  (16.0.17)

LPI
CONNECIED

This is because any place where ¢, appears in any of the vertices or
propagators within the one-particle-irreducible graphs in Eq. (16.1.17) is
also a place where an external ¢-line could be attached. (The restriction
to one-particle-irreducibie graphs plays an essential role in Eq. (16.1.17);
without this restriction we could shift the variable of integration, yielding
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an integral that would be manifestly independent of ¢¢.) In place of
Eq. (16.1.17), it is often convenient to write

exp iTlpd]] = [ [Hdd)’(x)] exp{il[p+ol}, (16.1.18)

1P1

in which we evaluate the path integral including all graphs, connected or
not, in which each connected component is one-particle-irreducible.

* % %

This formalism provides a simple method of summing tree graphs. As
one example, consider the relation between the complete two-point func-
tion A™% and its one-particle-irreducible part IT,,;,. From Egs. (16.1.5)
and (16.1.7), we find

ey OW _ 8¢5(x)
60, (x}8Js(y)  8Js(y)
_— FTIpl  _ 8Jsn(x)
rX,Sy 6¢r(x)5¢5(y) 5¢S(y) .

It follows immediately that the ‘matrices’ A and IT are related by

(16.1.19)

(16.1.20)

A=-T"1, (16.1.21)

This is the counterpart of the familiar relation (10.3.15) between propaga-
tors and self-energy parts, with the extra term g* + m? in the denominator
in Eq. (10.3.15) representing the zeroth-order term in the one-particle-
irreducible two-point function.

16.2 Calculation of the Effective Potential

To see how the formalism of the previous section works in practice,
consider a simple example, the renormalizable theory of a single real
scalar field ¢(x), with action

1[6] =—/ Bx [1+ 10,0070 + P + Lgot| . (162.1)

(We are here including a ‘cosmological constant’ —4 in the Lagrangian
density, for reasons that will become apparent). Suppose for simplicity
that we wish to calculate I'[¢p¢] for a position-independent field ¢o(x) =
¢o. Then every term in I'[¢hg] will contain a factor of the volume of
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Figure 16.1. Feynman diagrams with zero, one, or two loops for the quantum
effective action of the theory of a neutral scalar field ¢ with interaction ¢*.

spacetime
V4= / &x = 6%(p — p)(2n)’ (162.2)

arising from the momentum conservation delta-function. We will therefore
write, for ¢o constant

Tlpol = =74V (o), (16.2.3)

where V(¢o) is an ordinary function, known as the effective potential. In
this section we will calculate the effective potential to one-loop order.
This was originally done by Coleman and E. Weinberg® in a study of
spontaneous symmetry breaking, the subject of Chapters 19 and 21. The
results were also used by them in one of the early applications of the
renormalization group, to be described in Section 18.2.

Shifting ¢ by ¢q, the action in Eq. (16.1.18) 1s:"

T8+ gol = — ¥4 [+ 1mieh+ heol] — [nigo+ g 9f [ d'x o

= [ax[10,000 + ti(oo’] = [ d'x[ g b0t + e o] .
(16.2.4)

where i is the field-dependent mass

1 (o) =m* + 1gog . (16.2.5)

Note that there now appear new interactions proportional to ¢ (which
have no effect on one-particle-irreducible graphs) and also ¢?, as well as
terms with the same structure as those in the original action.

The Feynman diagrams for I'[¢o] with up to two loops are shown in
Figure 16.1. The zero-loop term in the vacuum-vacuum amplitude is just
given by the constant term in I[¢ + ¢o]

1
T 1oop)[¢0] = —ivy (A + Emqu% + % qbg) _ (16.2.6)

* There are limitations on the applicability of perturbation theory for m? < 0, discussed
in the following section.
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The one-loop term is given by
exp (ir “igo]) = [ ] dox) exp{ — 1i [ *x[2,60°6 + i(d0)¢”

~+€ terms} : (16.2.7)

We learned how to calculate such integrals in Chapter 9; the result is
given by Eq. (9.A.18):

i1 19°P) [5] — In Det (’K )_”2 SRLE P (‘K ). ae2s
7 2 T
where here
K..— { & + u2(¢0)—i€] 84 (x — y) . (16.2.9)
=T axtoy; .

As usual, to calculate such traces it is helpful to diagonalize the ‘matrix’
K by passing to momentum space:

dx _, . dYy
K. — —ipx 27 gy
p.q / (27{)2 € (27{)2 e’ K >

= (P + 1(g0) —i€)5*(p—q) . (16.2.10)

The logarithm of this diagonal matrix i1s just the diagonal matrix with
logarithms along the main diagonai:

iK i .
lln ( )} = [E (p" + u(g0) - ‘f)] 5 —q) (16.2.11)
p‘q
and its trace is then

n
i loop)[¢, ] = ——/d4p (’f)]”

2(271;)4 /d4? ln( (P +u (d)o)—:e)) . (162.12)

Putting together Egs. (16.2.6) and (16.2.12), we have the effective potential
to one-loop order

Vigo) =i+ 3md + £ + (1 (pw)) (162.13)

where

S} = 2(2 )4 /d4p ln( [p? + —IE]) : (16.2.14)

It is painfully obvious that this formula for the effective potential
contains ultraviolet divergences. Fortunately, these are naturally absorbed
into a renormalization of the parameters of the theory. Although the
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integral (16.2.14) is divergent, simple power-counting shows that it is
made convergent by differentiating three times with respect to u?:

5@ =~ [P i)

Once again, the —ie term tells us that we must rotate the p® contour
counterclockwise, so that p® = ip4, with ps running from —o0 to +00:

SR = 1 /w 2Kk 1
Qryt Jo (kK24 p2)3 32724
Integrating thrice, we have then
411] 2
F 2y M M A+ B 2 4.
(1) a2 T ATBu+Cu

The constants A, B, C are not determined by this method of calculation,
which is hardly a serious problem since they are obviously infinite anyway.
We eliminate these constants by defining ‘renormalized’ values for A, m?,
and g:

AR=A+ A+ Bm* +Cm*,
my =m’ + gB + 2gm°C ,
gr =g +62°C.

Our final result for the potential to one-loop order is then

4 2
Vigo) = AR + = mR¢0+ Lo+ @";ﬁg‘ $o) (16.2.15)

where u(¢o) is the ﬁeld-dependent mass defined by Eq. (16.2.5), which to
this order can be calculated using mg and g in place of m and g:

2 2
W) = my + igrd” .
Similar results hold if the theory contains a complex spin % fermion
field y(x) that interacts with the scalar ¢. For instance, if this interaction

Hamiltonian density has the simple form G¢pyp, then the mass M(¢pq) of

the fermion in the presence of a constant scalar background field ¢ is of
the form:

M(po) = M(0) + Geo .

It is easy to see that in this case the potential (16.2.1) then receives an
additional term:

14 (¢o) In 42 (o)
64r?

1
Vigo) = Ar + Em%l¢%+ g—jﬁbg‘F

_ M*(¢ho) In M?(¢hg)
3272 '

(16.2.16)
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The numerical coefficient in the new term is twice that of the u* In 4? term
in Eq. (16.2.15), because of the two spin states of the fermion described by
y, while the sign is opposite because (as shown in Chapter 9) fermionic
path integrals of Gaussians give a result proportional to the determinant
of the matrix coefficient in the exponent, while bosonic path integrals of
Gaussians give a result proportional to the inverse of this determinant.

16.3 Energy Interpretation

The effective action I'[¢] and potential V[¢] have an important interpre-
tation in terms of the energy and energy density respectively.* To see this,
suppose that we turn on a current J*(x,t) that rises smoothly from zero
at t = —oo to a finite value #"(x), and remains at that value for a long
time T, after which it drops smoothly again to zero at t = +00. The effect
of this perturbation is to convert the vacuum to a state with a definite
energy E[#] (a functional of #"(x)), in which it remains for a time T,
after which it returns to the vacuum. However, although the ‘out’ vacuum
is the same physical state as the ‘in’ vacuum, the state vectors differ by
the phase exp(—iE[ #]T) accumulated during the time 7':

(VAC, out|VAC, in); = exp(—iE[j] T) . (16.3.1)
Comparing with Eqgs. (16.1.1) and (16.1.3), this gives
W[J] = —E[AT . (16.3.2)

To see the connection between this energy and the effective action,
suppose we seek the state y that minimizes the energy expectation value

_ (@HO)

(H)g = Q0

(16.3.3)

subject to the condition that the quantum fields ®,(x,t) have the time-
independent expectation value ¢,(x)
(Qs (Dn(xs I)Q)
(.Q)

— $ulx). (16.3.4)
It 1s convenient also to impose the condition that € is normalized
QQ)=1. (16.3.5)

To minimize the expectation value (16.3.3) subject to the constraints
(16.3.4) and (16.3.5), we use the method of Lagrange multipliers, and



16.3 Energy Interpretation 73

instead minimize the quantity
(Q, HQ) — o(Q,Q) — / x %) (2, 0,(x)Q) (16.3.6)
with no constraints on . This gives
HQ = o0 + / & x B (X)D,(X)Q . (16.3.7)

Both o and f"(x) are to be chosen in such a way as to satisfy the
constraints (16.3.4) and (16.3.5) and therefore depend functionally on the
prescribed expectation value ¢, (x).

Now, we have said that in the presence of a current #"(x), the Hamil-
tonian H — [ d*x _#"(x) ®,(x) has an eigenvalue E[ #]:

[H — / x F(X)Ou(x)| ¥y = E[F]¥ 4 (16.3.8)

with a normalized eigenvector ¥ 4. Furthermore, since slowly turning
on this current converts the vacuum into this energy eigenstate, we can
presume that E[ #] is the lowest energy eigenstate in the presence of
this current. Therefore Egs. (16.3.4), (16.3.5), and (16.3.7) are satisfied
by

Q=¥, , (16.3.9)
x=E[#,], (16.3.10)
Bi(x) = #£3(x), (16.3.11)

where #4(x) is the current for which ®(x) has an expectation value ¢(x)
in the state ¥ ,.

Setting ¢ = ¢4 in Eq. (16.3.8) and taking the scalar product with ¥ 4 o
the minimum energy of states in which the fields ®, are constrained to
have the expectation values ¢, is seen to be

(H)o=ELf 5] + [ x 55x)n(x). (163.12)
Recalling Eq. (16.3.2) and the assumed form of J(x), this is

1 |
(H)a = [~ WU + [ dxI3000n00] =~ I8 (16313)

As noted in the previous section, if the field ¢(x) has a constant value
¢ over a large spacetime volume ¥°y, = ¥'3T, then we may write the
effective action in terms of an effective potential V(¢):

Il =—73T V(). (16.3.14)
In this case Eq. (16.3.13) tells us that the energy density is
(H)a/?3=V(¢). (16.3.15)
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This is the main result: V(¢) is the minimum of the expectation value
of the energy density for all states constrained by the condition that the
scalar fields ®, have expectation values ¢,. One consequence is that in
the absence of external currents the vacuum state will relax to a state in
which the potential V(¢) is not only stationary, which is required by the
field equations (16.1.8), but also a minimum.

This result helps to resolve a problem in the interpretation of the
quantum effective potential. The Euclidean version of the path-integral
formalism (described in Appendix A of Chapter 23) makes it manifest that
the two-point function A is positive (in the matrix sense), so according to
Eq. (16.1.2) the same is true of —IT = A~1. Together with Eq. (16.2.3), this
implies that for a single scalar field the effective potential V(¢) must have
a positive (or zero) second derivative with respect to ¢. More generally,
the effective potential must be convex:>

V(A1 + (1= D)) < V(1) + (L= HV(g2) for 0<a<1.

But inspection of Eq. (16.2.13) shows that for m* < 0 and g > 0 the
zero-loop approximation to the effective potential for the scalar field
theory with action (16.2.1) has a negative-definite second derivative when

¢ is between the two minima of the effective potential at 44/6|m?|/g.
This contradiction arises because the derivation of perturbation theory
implicitly relies on the existence of a stable vacuum, but when V”(¢) < 0,
the field ¢ is at a value of ¢ where V(¢) —J¢,€f) 18 a maximum rather than
a minimum, which means that the vacuum state in the presence of the
current Jy is unstable.

So what is the true effective potential for this scalar field theory when
m? < 0 and ¢ lies between the two minima of the potential? The result
of this section is that we must find the state of minimum energy in which
the expectation value of the operator @ equals ¢. As long as ¢ is between
the two minima of the potential, we can give ® an expectation value ¢
by taking the state as a suitable linear combination of the two states

where ¢ is at the minima ¢ ~ +,/6|m?|/g. The energy in this state is
equal to the energy at the minima, so this state clearly minimizes the
energy. (Interference terms here vanish in the limit of infinite volume, for
reasons explained in Section 19.1.) Thus the effective potential between
the two minima of the potential is a constant, satisfying the requirement
that it have a nonpositive second derivative. The same argument shows
that in more general theories where the potential has two local minima of
unequal energy, the potential between these minima is linear.’



16.4 Symmetries of the Effective Action 75

16.4 Symmetries of the Effective Action

In some but not all cases, the symmetries of the action I[¢] are auto-
matically also symmetries of the effective action I'[¢)]. For instance, in
the example of Section 16.2, the action (16.2.1) has a symmetry under the
discrete transformation ¢ — —¢. Thus it follows from their definition that
Z[J] and W[J] are even under the corresponding reflection J — —J. Eq.
(16.1.5) then shows that ¢_; = —¢,, and hence J_4 = —Jg, so Eq. (16.1.6)
shows that I'[¢] is even under ¢ — —¢. This is borne out by the one-loop
result (16.2.15). The fermion-loop contribution in (16.2.16) also exhibits
the symmetry under ¢ — —¢ in the special case where M(0) = 0, because
in this case the action is invariant under the combined transformation
¢ = —¢, ¥ — sy,

We encounter problems in establishing the renormalizability of a theory,
unless we can show that the symmetries that we impose on the action
also apply to the effective action. For instance, in the example above, if
I[¢] were assumed to be even in ¢ but I'[¢] turned out not to be, then
the coefficients of the terms in I' proportional to [ d*x¢ and [ d*x ¢*
would be divergent, but the symmetry of the action would not allow us
to introduce counterterms to absorb these infinities.

With this motivation, let’s now turn to the important class of symmetries
generated by infinitesimal transformations

L(x) = "(x) + eF*[x; 7], (16.4.1)

where F" is a function of x# that depends functionally on y". (For instance,
F"[x; y] may be an ordinary function of the y" and their derivatives at the
point x.) We are now using the symbol 4" rather than ¢" to denote the
different types of fields, to emphasize that these include not only ordinary
gauge and matter fields (which in the next chapter will be denoted ¢"(x)),
but all other fields appearing in the gauge-fixed action, including ghost
fields. We repeat that these yx"(x) may be of any type, not necessarily
scalars.

We assume that both the action and the measure are invariant under
the symmetry transformation (16.4.1):

Iy +eFl=1I[], (16.42)
I1 d(x"(x) +e F'[x; x]) =[] ax"tx) - (16.4.3)

(1t is actually sufficient for only the product (I, dx"(x))exp(i[) to be
invariant, but where this is true usually Egs. (16.4.2) and (16.4.3) both
apply.) Replacing the integration variables in Eq. (16.1.1) with x"(x) +
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e F"[x: ], we have then
z = [ [Ed(x"(x)JreF"[x;x])}
coxp litgre ot [t (200 + e Plesid) o
-/ [II dx"(x)} exp {1100 +1 [ @ (') + € F'lxi0) 1)
= Z[J] +ie / (de"(x)) f F'ly: (a0 dy

X EXp {iI[x] +1 / d*x x”(x).]n(x)}
and hence
[ @ .90 =0, (16.4.4)

where { ); denotes the quantum average in the presence of the current
Jﬂ(x)a

ZUNE G = | (de (x)) F'ly:1l

X eXp {i[[x] +ifd4x x"(x)Jn(x)} ,  (16.4.5)
normalized so that {1); = 1. But recall that J,(y) is given in terms of the
effective action I'[x] by Eq. (16.1.7)
23¥1
ox(y)

Therefore Eq. (16.4.4) may be written as

Jn,x(y) =

oI'[x]
0= / &y (F"(0)y, . 16.4.6
y (F" ), 50) ( )
In other words, I'[y] is invariant under the infinitesimal transformation
1) = L)+ elF )y, - (16.4.7)

Such symmetry conditions are known as Slavnov-Taylor identities.”

Is this the symmetry transformation with which we started? It is for
one very important class of infinitesimal symmetry transformations: those
that are linear. For such symmetries F is

'l = 09+ [ Ol 900y (16.4.8)
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(In the most common case s"(x) vanishes and t",(x, y) is a constant matrix
times 64(x — y).) For any linear F, we have

(F9)s =80+ [ mlx 0N dy

But for any fixed y, J, is defined as the value of the current J that makes
(x"(y))s equal to x™(y), so

(FY(x));, = s"(x) + / (o, V)X (0) dy = F[x; 7] . (16.4.9)

Hence Eq. (16.4.6) requires that I'[y] be invariant under all the functional
linear transformations y* — y" 4 eF" that leave I[y] and the measure
invariant.

We occasionally have to deal with symmetry transformations that are
not linear. One important example is provided by the BRST transfor-
mation discussed in Section 15.7. For non-linear transformations, the
symmetry transformation (16.4.7) under which the effective action is in-
variant is not generally the same as the assumed symmetry transformation
(16.4.1) that leaves the original action invariant, because the average of a
non-linear functional of fields is not generally the same as the functional
of the average fields. Indeed, the form of (F);, as a functional of y de-
pends in general on the dynamics of the system, and is usually non-local.
This complication will be dealt with in the next chapter by the method of
antibrackets.

¥ % Kk

Up to now, we have tacitly been assuming that the fields " and
the corresponding transformation functions A" and currents J, are all
bosonic. We will need to take note of the sign factors that appear
when some of these are fermionic, as in particular for supersymmetry or
BRST transformations, where e is fermionic and x* and A" have opposite
statistics. With currents inserted to the right of fields, as in Eqgs. (16.1.1)
and (16.4.5), Eqgs. (16.1.5) and (16.1.7) hold in the form

‘5RW[J] _.m
oLT[y]
— )y, 16.4.11

with the subscripts R and L indicating that the derivative is to act from
the right or left. In consequence, the Slavnov-Taylor identity (16.4.6)
should be written

orI'[x]
dy™y)

0= / d'y (F')s, (16.4.12)
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Problems

. Consider a theory of real pseudoscalars ¢(x) and complex Dirac fields

p(x), with masses M and m respectively, and interaction g{pysyp¢.
Evaluate the effective potential for ¢ = constant, y = 0, to one-loop
order.

. Derive general formulas for &8*W[J1/8J,(x)0Jm(y)8Js(z) and

YW [/ 8J0(x) 8Ju(y) 8J(2) 8Jr(w) in terms of the variational deriv-
atives of I'[¢)] with respect to ¢. Show which Feynman diagrams
correspond to each term in these formulas.

. Calculate the effective potential to one-loop order for the theory of

a neutral scalar field ¢ with interaction Lagrangian density g¢>/6 in
six spacetime dimensions.

. Suppose that the action I [¢] is invariant under a finite matrix trans-

formation ¢,(x) — >, Mpmdm(x). Under which transformation of
the currents is W[J] then invariant? Use this result to derive a
symmetry property of I'[¢].
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17

Renormalization of
Gauge Theories

We now return to gauge theories, and use the external field formalism
described in the previous chapter to study the renormalizability of these
theories and to carry out an important calculation.

17.1 The Zinn-Justin Equation

In this section the BRST symmetry described in Section 15.7 will be used
to demonstrate a fundamental property of the quantum effective action,
first derived by Zinn-Justin.! According to the general rules outlined in
Section 16.4, the BRST invariance of the action I[y] imposes on the
effective action I'[y] the condition

" orl'[y]
/d4x (A, o =0 (17.1.1)

where the change in ¥"(x) under a BRST transformation with infinitesimal
fermionic parameter 8 is

dox"(x) = 6A"(x) (17.1.2)

and {---} here denotes a vacuum expectation value taken in the presence
of a current J, that makes the vacuum expectation value of the operator
fields X"(x) equal to the c-number functions x*(x). The implied sum over
n runs over all of the fields in the BRST formalism; that is, over w,, w,,
and hy as well as the gauge and matter fields that in Section 15.8 we have
collectively called ¢". Because A”(x) is quadratic in the fields when x" is
a gauge or matter field or w,, Eq. (17.1.1) does not in general tell us that
the effective action is invariant under the same BRST transformations as
the action itself.

To handle this complication, we employ a trick that proves useful
in dealing with any sort of nilpotent symmetry transformation. First,
we introduce a set of c-number external fields K,(x), and define a new

80
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effective action by
LK1= W KT = [ d% 200 ) (17.13)

where the connected vacuum persistence amplitude W is here calculated
with the gauge-fixed action® I + [ d*x A”K,:

JWUK] = f [de"(x)] exp (il +i [ d*x A"K, +i f dhxy'Tn) (17.14)
H,X

and J, x is the current required to give the fields the expectation values x
in the presence of the external fields K

5R W[J: K]
dJu(x)

= y"(x). (17.1.5)
J=Jx
(The K, must have the same fermionic or bosonic statistics as A", which
is opposite to that of ¥".) Since the BRST transformation is nilpotent,
the quantities A"(x) are BRST-invariant, so in the same way as in Section
16.4 we can show that the new effective action I'[y, K] satisfies a BRST-
invariance condition:

oLl
/ d*x (A"(x)) JX’K%(;I)(] =0, (17.1.6)

where (--);x denotes a vacuum expectation value calculated in the
presence of the current J and the external fields K

/ [Hn,x dx”(X)] Oly) exp (il +i [ d*x A"Ky +1  d'x x"Jn)

Ol § [Tax dire)] exp (il +1f dx A"Ky, +i [ d*xx1d)
(17.1.7)
It 1s convenient to express the expectation value of A" as a variational
derivative of the effective action. Taking the right variational derivative
of Eq. (17.1.3) with respect to K gives

orl'[x, K] _ 0rWI[J,K] +/d4y orWI[J,K] Ordyk m(y)
0 Kn(x) aKn(x) J=I x 3Jm(y) J=Ik oK ,(x)
fd4 5RJx,K m{(y) .
5K y(x)

Using Eq. (17.1.5) we see that the last two terms cancel, and using the

* Here 1 is the action Iypw modified as described in Section 15.7 to depend on the ghost
and antighost fields w, and o, and on the auxiliary field h,, with the subscript ‘NEW’
dropped from now on.
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definitions (17.1.4) and (17.1.7) gives us then our desired relation
orl'{y, K] _ 0rWJ,K]
IKn(x) — 8Knlx)

= (A"(X)) s 4 K - (17.1.¢

J=Tx

The BRST symmetry condition (17.1.6) may now be written as a simpl
condition, the Zinn-Justin equation, involving the effective action alone:

COrI[x, K] 8L [x, K]
] d'x SKal®) 6700

As remarked after Eq. (15.9.3), the interchange of fields and antifields (o
in this case ¥* and K,) results simply in a change of sign of the left-hanc
side of Eq. (17.1.9), so this can be written as

(L1 =0, (17.1.10)

where the antibracket is calculated here with K, in place of the antifield
of ¢*:

(F,G)= f d*x

(17.1.9

5RFu9K] 5LG[X:-K] _/d4x 5RF[XQK] ‘SLG[X:K]
ox"(xy  OKu(x) OKa(x)  Sxy™x) =

(17.1.11)
This is formally the same as the Batalin—Vilkovisky ‘master equation’
discussed in Section 15.9, but appears here as a constraint on the quantum
effective action I'[y, K] rather than on the fundamental action S [, ¥*]. The
Zinn-Justin equation (17.1.10) will be used in the next two sections to show
how to renormalize gauge theories, and in Section 22.6 to study anomalies
in these 1heories,

17.2 Renormalization: Direct Analysis

The simplest non-Abelian gauge theories are renormalizable in the ‘Dyson’
sense that the operators in the Lagrangian density all have dimension-
ality (in powers of mass) four or less. As we saw i Chapter 12, this
guarantees that the infinities in the quantum effective action only appear
in terms that could be cancelled by the counterterms in interactions of
dimensionality four or less. But there is more to renormalizability than
this. The Lagrangian density is constrained by gauge invariance and other
symmetries. For a theory to be renormalizable, it is necessary that the
infinities in the quantum effective action satisfy the same constraints, up
to possible renormalizations of the fields.

The effective action I'[y, K] is a complicated functional of both y and K,
about which the symmetry condition (17.1.9) says complicated things, but
fortunately matters are much simpler for the infinite terms in I'. We will
write the action S[y, K] = I[y] + [ d*x A"K,, as the sum of a term Sg[, K]
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in which masses and coupling constants are set equal to their renormalized
values, plus a correction S, [y, K], which contains the counterterms that
we intend to cancel the infinities from loop graphs. Both Sg and S, must
be taken to have the symmetries of the original action S[y,K], so the
question 1s whether the infinite parts of the higher-order contributions
to I' share the same symmetries, so that they can be cancelled by the
counterterms in S..

We may expand I' in a series of terms [’y arising from diagrams with
just N loops, plus contributions from graphs with N — M loops (where
1 < M < N) involving various counterterms in Sy [y, K] that will be used
to cancel infinities in graphs with a total of M loops:

Ix.K]1=> I'nlxX]. (17.2.1)
N=0
The symmetry condition (17.1.10) then reads,” for each N,
N
> (Tn,Ty-ny=0. (17.2.2)
N'=0

In the sum (17.2.1) the leading term is just I'g[yx, K] = Srlx, K1, which
of course is finite. Suppose that, for all M < N — 1, all infinities arising
from M-loop graphs have been cancelled by counterterms in S, . Then
infinities can appear in Eq. (17.2.2) only in the N' =0 and N’ = N terms,
which are equal, and the infinite part of this condition teils us that the
infinite part I'y o of I'y is subject to the condition that

(Sr.Tnae) =0. (17.2.3)

This is a symmetry principle generated by Sg, just like that described by
Egs. (15.9.16) and (15.9.17). Note in particular that the transformation
X — (Sg, X} acts on the external fields K, as well as the fields x".

Up to this point, we have used none of the special properties of a
renormalizable Yang-Miils theory. Now note that, according to the gen-
eral power-counting rules of renormalization theory, with all infinities
cancelled in subgraphs of I'y, the infinite part I'y o [x, K] of I'y[x, K] can
only be a sum of products of fields (including K} and their derivatives of

* Such order-by-order relations may be derived formally by repeating the reasoning
of Section 16.1: When the action Sg is replaced with g='Sg, the contribution of a
connected L-loop graph with [ internal lines and V vertices is multiplicd by a factor

g1 = gl~1. If the counterterms in S, associatcd with N-loop diagrams arc also

provided with factors g", then I'y is the value for g = 1 of the term in I of order
gt 1. Eq. (17.2.2) then follows by requiring Eq. (17.1.10) to hold in each order in g. In
¢gs units the action has the same dimensions as ki, and so appears in the path integral
multiplied with a factor 1/A, so we can also use h as a loop-counting parameter in
place of g.
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dimensionality (in powers of mass) four or less. Finally, the arguments
of Section 16.4 show that I'[y, K] and hence also I'y [y, K] are invariant
under all of the linearly realized symmetry transformations under which
the action is invariant. (As described below, these are: Lorentz trans-
formations, global gauge transformations, antighost translations, and the
ghost phase transformations associated with ghost number conservation.
Of course, the auxiliary fields K, must be assigned suitable transforma-
tion properties under these symmetry transformations.) These conditions
together with Eq. (17.2.3) will suffice to tell us all we need to know about
the structure of I'y [, K].

To implement these conditions, we need to know the dimensionalities
of the external fields K,. If a field " has dimensionality d, (that is, d,
powers of mass), then A" correspondingly has dimensionality d, + 1 (as
can be seen by inspection of the BRST transformation rules (15.7.7)-
(15.7.11)), so in order for [d*xK,A" to be dimensionless, K, must have
dimensionality 3—d,. The fields A™ %, and w** all have dimensionalities
dy, = +1, so the corresponding K, all have dimensjonalities +2. (We do
not introduce any external field corresponding to A%, because this field is
BRST-invanant.) Any spin 1/2 matter fields y, have dimensionalities 3/2,
and the corresponding K, thus also have dimensionalities 3/2. Thus a
dimension four quantity like I'y o[, K] is at most quadratic in any of the
K. Furthermore terms that are of second order in the K,, cannot involve
any other fields, except that a term of second order in the K, for spin 1/2
matter fields may involve at most one additional field of dimensionality
unity.

We can now use ghost number conservation to show that in fact
I'v oo [x, K] does not contain any terms of second order in the K,,. For this
purpose, we also need the ghost quantum numbers of the K. If ¥* has
ghost quantum number y,, then A" has ghost quantum number v, + 1, so
K, must be assigned ghost quantum number —y, — 1. The ghost quantum
numbers of the fields A%, p’, w*, and w** are respectively 0, 0, +1, and
—1, so the corresponding external fields K, have ghost quantum numbers
—1,—1,-2, and 0, respectively. This rules out any terms in [y o[y, K]
that are of second order in the K,, with the one possible exception of a
term of second order in the external fields K, associated with o** {and
involving no other fields). However, these last terms are also forbidden,
for a different reason. The BRST transformation of w** is linear in the
fields, with

A" = —h*, (17.2.4)

SO here
5LFN,OO [X: K]
oK}

— (Aa*>Jx,K — _hd



17.2 Renormalization: Direct Analysis 85

is independent of K. It follows that I'v [y, K] is linear in K**, and
depends on K** only through a term — [ d*x K h* . (Both K, and h* are
bosonic, so their order is immaterial.) In particular, for N > 0, I'y »[x, K]
is independent of K**,

We have seen that I'y .[x,K] is at most linear in all of the K,,. We will
write it as

Il K] = Dyl 01+ [ dx 23] Kol). (17.2.5)
We also recall that Sp has the K dependence:
Skl K] = Sl + [ d*x A"l x]Ks).

The terms in (17.2.2) of zeroth and first order in K therefore give"”

[ (o e k0 g WRE o0 1726
and
/d4x {A”( x)%?‘)”Jr@”( x)—é-?(é’)—”] —0, (1727

respectively. These relations may be made more perspicuous by introduc-
ing the quantities

I 1] = Srlx] + €l'nooli 07 (17.2.8)

and
A"(x) = AY(x) + €@ (x) (17.2.9)

with e infinitesimal. Then (17.2.6) (together with the BRST invariance of
Sg) just says that F("’} [¥] is invariant under the transformation

1(x) = £(x) + 0AR" (x) , (17.2.10)

while Eq. (17.2.7) (together with the nilpotence of the original BRST
transformation) tells us that this transformation is nilpotent.

We must now consider what form this nilpotent transformation may
take. As already mentioned, I'y 4, consists only of terms of dimensionality

four or less, so %% and hence A©"(x) have at most the dimensionalit
N N y

** The second terms in Eqs. (17.2.6) and (17.2.7) have been put into thc form shown
here by recalling that, because y" and K, have oppositc statistics, for any bosonic
functionals 4 and B,

OgAS B _ 5.A6zB _  drB A
Sy 0K, Ox" 8K,  OK, by




86 17 Renormalization of Gauge Theories

of the original BRST transformation function A*(x). Also, 9% and hence

also A%"(x) must have the same Lorentz transformation properties and
ghost quantum numbers as A"(x). Hence the most general form of the
transformation (17.2.10) is

w — w + IGCU“T&‘P ’
Auy = Ay + 0 [BypOpwp + Dygy Agucy]

wg — wa -_ %OEaﬁ}:wﬁw? s

where T, is some matrix acting on the spinor fields, and B, Dqg,,
and E,p, are constants, with E,p, antisymmetric in # and y. Also, the
transformations of w; and h, are linear, and are therefore unchanged:

w;—"w;—ghu, ha“‘hm-

Next we impose the condition of nilpotence. The most important
requirement is that E,g,wgw, should be invariant. This yields the require-
ment that E.p. Egs.wswew, should vanish, so that the part of E,g, Egs.
that 1s totally antisymmetric in 8, €, v vanishes:

Eaﬁ})Eﬁée + EaﬁsEﬁyé + ExﬁrSEﬁFy =0.

But this just tells us that Ep, is the structure constant of some Lie algebra
&. Because E,p, goes to the structure constant Cyg, of the original gauge
Lie algebra .« for ¢ — 0, & must be the same as </, and the structure
consta?ts E,p, can differ from the original C,4, only by a multiplicative
factor:

EZﬁ]} = Ezﬂc,xﬁ}) .

(This is for simple gauge groups; in the general case we would have a
separate factor 2 for each simple subgroup.)

Next we turn to the condition that the transformation (17.2.10) be
nilpotent when acting on the gauge fields. The requirement that B,z0,w05+
Dy, Ag,0, be invariant tells us that

DcxﬁyDﬁée - DcxﬁFDﬁéy = Eﬁe}'Da(Sﬁ = gcﬁe}'Daéﬁ
and

BugEpys = DapsBp ,

' The requirement of global gauge invariance rules out any non-trivial similarity trans-
formation in the relation between Ky, and C,g,.
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The first condition has the unique solution’
Dygy = ZCopy

The second condition tells us that the matrix B,g commutes with the
adjoint representation of the gauge group, and hence (since we have chosen
the structure constants totally antisymmetric) must be proportional to a
Kronecker deita, with a coefficient we shall call Z.4";

By = Z N yg .

Finally, the condition that the transformation (17.2.10) be nilpotent
when acting on the fermion fields (if any) requires that w* T,y is invariant,
This tells us that

[Tﬁs T,’] - iEaﬁ}’ Ty,

so T, differs from the generator ¢, in the original Lagrangian only by a
factor &:

T, = %1, .

We have thus seen that, apart from the appearance of the new constants
Z and A, the transformation (17.2.10) is just the BRST transformation
with which we started:

v oy +i¥ 0oty , (17.2.11)
Awp — Aup + 20 [N 004 + CupAg,,] (17.2.12)
y = Wy — 3Z 0 Cyp.0p0, , (17.2.13)
w, — w, — 0h, , (17.2.14)
hy — hy . (17.2.15)

Now we must use this symmetry to constrain the structure of the corrected
action (17.2.8). Since this contains only the original renormalized action
plus the infinite part of the N-loop contribution, it must be the integral
of a Lagrangian density

I = f x A (17.2.16)

with 4% a local function of fields and field derivatives of dimension-
ality (in powers of mass) no greater than 4. Furthermore, as we found
in Section 16.4, 4% must be invariant under all the symmetries of the

" The matrix (D,), = D..;/% salislies the commutation relations of the gauge Lie
algebra, [D,,D.] = Cy, D4 But the only representation of a simple Lie algebra with
the same dimensionality and .« transformation properlies as the adjoint representation
of &/ is the adjoinl represcntation itself.
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original Lagrangian that act linearly on the fields. To identify these sym-
metries, recall that in generalized ¢-gauge, the ‘new’ Lagrangian density
in Eq. (15.7.6) takes a form given by replacing the term —(0,4%)(8,A4%)/2¢
in Eq. (15.6.16) with the terms h,f, + 1&hysh, in Eq. (15.7.6):

*

+Copy (0, 0) A g + hoDyd® + 1EMGh, . (17.2.17)

Inspection of this formula reveals the following linear symmetries:
(1) Lorentz invariance.
(2) Global gauge invariance — that is, invariance under the transformations

SYAX) = § €(t2)pmlx) (17.2.18)
SAP (x) = Cppue™ A7 W(x), (17.2.19)
dwg(x) = Cgyuewy(x), (17.2.20)
dwg(x) = Cgue®wy(x), (17.2.21)
Shg(x) = Cpae*hy(x), (17.2.22)

with constant parameters €*.
(3) Antighost translation invariance — that is, invariance under the trans-
formation

W4 (X) = @y (X} + ¢y , (17.2.23)

with arbitrary constant parameters c,.
(4) Ghost number conservation — that is, the conservation of a ghost
number equal to +1 for w,, —1 for w}, and O for all other fields.

We shall now proceed to work out the structure of the most general
Lagrangian density that is renormalizable, in the sense that it consists only
of terms of dimensionality +4 or less, that has these linearly acting sym-
metries, and that is invariant under the modified BRST transformations
(17.2.11)- (17.2.15).

From Eq. (17.2.17) we may conclude that the fields 4%, w,, o, and
hy have the dimensionalities +1, +1, 41, and +2, respectively (in powers
of mass). Note also that ghost number conservation requires that w and
" come in pairs, while antighost translation invariance dictates that o*
always appears as a derivative. Each pair of © and ¢,0" fields adds +3
to the dimensionality, so renormalizability rules out any term with more
than one such pair. With one such pair we can have at most one more
derivative or one additional gauge field, and Lorentz invariance dictates
that we must have one or the other. The only renormalizable allowed
interactions involving ghost fields are then linear combinations of terms
of the form J,w; 0*wy or d,w; A% wp.

Next, let us consider the terms that involve the field A, and possibly
other fields but not w or w*. This field has dimensionality +2, so
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renormalizability and Lorentz invariance allows this field to appear only*
multiplied with another hg or 0,4 or AgAy,.

Finally, the Lagrangian will contain renormalizable terms involving
only the matter and gauge fields. We will call the sum of these terms
¥ 4. Putting this all together and using global gauge invariance, the most
general renormalizable interaction allowed by the assumed symmetries
(aside from BRST invariance) takes the form:

L = Lpa+ 1 hahy + chy0,A% — eug,hy A Ay,
—Z (003 (0, e ) — dygy (0,0, yog Al (17.2.24)

where &', Z,,, ¢, dugy, and e,g, are unknown constants, with no constraints
except obvious symmetry properties such as global gauge invariance and
gy = €uyp. (As mentioned earlier, we are assuming for simplicity that
the gauge group is simple, but the extension to a direct sum of simple
and U{1l) gauge groups would be trivial; for instance, instead of one term
proportional to h,h, we would have a sum of such terms, one for each
simple subgroup of the gauge group.)

Now we impose BRST invariance. The cancellation of terms in 6.2
proportional to 06,k w, tells us that

c=Z, /XN . (17.2.25)

The cancellation of terms in 55?5{’}) proportional to 6d,hy wgAY (or
00,0, mp0*w,) requires that

dogy = —(Zar/ N') Capy . (17.2.26)

The terms in 53’%’ proportional to 00,w; wg w, A5 automaticaily then
cancel by virtue of the Jacobi identity for the structure constants. The
c:flrigellation of terms in 62’5? proportional to 0k, J,wpAY (o1 GhaAEAwwg,)
yields

€xpy = 0. (17.2.27)

Finally, the effect of the infinitesimal transformation (17.2.10) on matter
and gauge fields is the same as a local gauge transformation with gauge
parameters €, = Z A 0w, and gauge couplings renormalized by a factor
1/ A" (that is, with t, and C,p, replaced with %, = t,/ 4" and Cup, =
Cagy/A'), so the cancellation of terms in §.%%) with only one factor of
o, and no factors h, or w, simply tells us that the Lagrangian %, 4 for
these fields 1s gauge-invariant, with a renormalized gauge coupling. We

*In a theory with scalar fields, we could also have renormalizable terms with h,
multiplied with one or two scalar fields. Such terms cause no trouble, but for brevity
they will not be considered here.
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conclude then that the most general renormalizable Lagrangian density
allowed by our assumed symmetry principles is

“(f,g? = _ZAFéwFWW — Zyipy [0, — i?aAzu]w + %é"haflcc
HZo/ N X0y Al — Z5 (0,0 00puwa) + ZyCogy (8,003 yg AL |
(17.2.28)

where the tilde on F/" indicates that the field strength is to be calculated
using the renormalized structure constant éaﬁy = Cyg,/. /. But apart
from the appearance of a number of new constant coefficients, this is
the same Lagrangian with which we started. The new constants in this
Lagrangian (including the gauge coupling constant) may be freely shifted
by adjusting the Nth-order terms in the corresponding constants in the
original unrenormallzed Lagranglan In particular, we can adjust these
terms to make F = Sk, In which case I'y,, =0, completing the proof.

* % %

In the above proof we made important use of the accidental invariance
of the gauge-fixed Lagrangian (17.2.17) under the antighost translation
transformation (17.2.23). This symmetry would not be present for gauge-
fixing functionals other than f, = d,4¥, which are not spacetime deriva-
tives. One frequently cited example which preserves Lorentz invariance
and global gauge invariance is f, = 0,A% + a., A“A e Where ayg, is a
constant matrix, symmetric in f and y, which transforms as a tensor under
global gauge transformations. (Such constant tensors exist for all SU(N)
groups with N = 3.) Another more important example is the background
gauge-fixing functional to be introduced in Section 17.4.

The absence of antighost translation invariance does not affect our
argument that EE? is a Lorentz- and global gauge-invariant local function
of fields and field derivatives of dimensionality no greater than 4, that is
invariant under the renormalized BRST transformation (17.2.11)-(17.2.15).
But without antighost translation invariance there are new terms in Eg?
that satisfy these conditions. Since the transformation (17.2.11)-(17.2.15)
is nilpotent, we can construct such terms as §'F, where the transformation
(17.211)(17.2.15) is written as 3" — x" + 05", and F is an arbitrary
Lorentz- and global gauge-invariant function of ghost number —1, One
such term is

AyfyS (w AﬁﬂAu) —Qypy [h Aﬁ#A’u + 2,?0)&(/[/6“005 + Cﬁé,:Aé,uCUé)A’u}

This causes no trouble: it is just a renormalized version of the usual ghost
and gauge-fixing terms arising from terms aaﬁyAgAw in the gauge-fixing
functional f,. But there is also another possible term of the form

baﬁys’(w;wgw},) = —bus, [Qhaw};wy + %ffcyéew;wgwawe} ,
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where byg, is a constant, antisymmetric in o and B, which transforms
as a tensor under global gauge transformations. (Such tensors exist for
any Lie group; for instance, we could take b,g, to be proportional to
Cagy.) But the Faddeev—Popov-De Witt method cannot yield four-ghost
interactions in the Lagrangian, so there are no counterterms available to
absorb ultraviolet divergences in this term. This is not just a technical
obstacle to proving renormalizability; for gauge-fixing functionals like
fo = 0,45 + aaﬁyAgAw, one-loop graphs actually do yield divergences in
four-ghost amplitudes that cannot be cancelled by counterterms in the
Faddeev-Popov—-De Witt Lagrangian.

Aside from avoiding gauge-fixing functionals other than f, = 0, A4, the
only solution to this problem seems to be the one mentioned in Section
15.7. We must give up the Faddeev—Popov-De Witt approach, and instead
take the action from the beginning as the most general renormalizable
function of the gauge, matter, ghost, and auxiliary fields that is invariant
under BRST and the other symmetries of the theory. According to the
arguments of Section 15.8, the action can be written in the form Iy 4+ s¥
with Iy ghost-free, and the S-matrix is independent of Y, so we can justify
this procedure by quantizing the gauge theory in axial gauge, where ghosts
decouple, and then taking ¥ to be anything we like. In particular, we can
include s(w*w*w) terms in the action that can serve as counterterms to
the divergences in four-ghost vertices.

17.3 Renormalization: General Gauge Theories®

The proof of the renormalizability of non-Abelian gauge theories in the
previous section relied on a ‘brute force’ analysis of the possible terms
in the action of dimensionality four or less. But as we saw in Chapter
12, this limitation on the dimensionality of terms in the action can be at
best a good approximation. The successful renormalizable quantum field
theories that are used to describe the strong, weak, and electromagnetic
interactions are almost certainly effective field theories, accompanied with
terms of dimensionality d > 4; these terms are normally not observed
because they are suppressed by 4 — d powers of some very large mass,
perhaps of order 10'°— 1018 GeV. Gravitation too can be described by an
effective ficld theory, in which the Lagrangian density contains not only
the Einstein—Hilbert term — \/gR/ 167G, but also all scalars constructed
from four or more derivatives of the gravitational field. We need to

" This section lies somewhat out of the book’s main line of development, and may be
omitted in a first reading.
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show that gauge theories of this sort, which are not renormalizable in the
power-counting sense, are nonetheless renormalizable in the modern sense
that the ultraviolet divergences are governed by the gauge symmetries in
such a way that there is a counterterm available to cancel every infinity.?

For this purpose, let us return to the action S[y, y*] introduced in
Section 15.9, taken as a function of independent fields y* (including gauge
and matter fields ¢" and ghost fields w4 as well as the non-minimal fields
wd* and k1), together with their antificlds y. In theories like quantum
gravity or Yang—Mills theories, that are based on a closed gauge algebra
with structure constants f 4p, this action is constrained to be of the form

S =1[p] + o f414] ¢F + Lo*0® fCaplplof — W 0,  (1731)

where I[¢p] is invariant under the infinitesimal gauge transformations
¢ — ¢" + e LIl (As in Section 15.9, the indices r, 4, etc. include a
spacetime coordinate, over which we integrate in sums over these indices.)

We shall not lmit ourselves here to actions of this form, but we
shall suppose that the local symmetries of the theory are imposed by
requiring that the action must obey some ‘structural constraints’ on its
antifield dependence, of which Eq. (17.3.1) provides just one example. The
structural constraints are assumed to be linear, in the sense that if they
are satisfied for S +.%; and for S 4+ &>, then for any constants ay, a» they
are satisfied for § + a1 %1 + w2 ¥>. We also impose the quantum master
equation (15.9.35)

(S,S) — 2iAAS =0, (17.3.2)

with AS defined by Eq. (15.9.34), and the factor % now made explicit as
a ‘loop-counting’ paramctcr, in the sense described in the footnote of the
previous section.

The action is taken as a power series in %

S=Sp+AS + WS+, (17.3.3)

where Sg is an action of the same general form as §, but with all coupling
parameters replaced with finite renormalized values, and the Sy are a set
of infinite counterterms. The action S is supposed to satisfy the quantum
master equation (17.3.2) for all h, so Sgr satisfies the classical master
equation

(Sr,Sr) =10, (17.3.4)
while the counterterms satisfy
N—1
(Sr.Sw) = =4 3" (Swt, Swat) +iASN-1 . (17.3.5)
M=1
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The counterterms Sy are not by themselves sufficient to cancel the ultra-
violet divergences in loop graphs. As a generalization of the conventional
renormalization of fields, we also have to introduce a set of renormalized
ficlds and antifields, defined in terms of the original fields and antifields by
an arbitrary anticanonical transformation. An infinitesimal anticanonical
transformation may be defined in terms of an infinitesimal generating
functional 8 F by Eq. (15.9.26), so a sequence of anticanonical transforma-
tions G(t) — G(t + dt) = G(t) + (F(t)dt, G(t)) (where G(t) is any functional
of ficlds and antificlds, and F(t) is the generating functional) leads to a
finite canonical transformation G — G = G(1), with

%G(t) = (F(1),G(t)), G(0)=G. (17.3.6)
If F(t) is given by a power scrics
F(t) = gtFi + B?F + -+, (17.3.7)
then Eqgs. (17.3.3), (17.3.6), and (17.3.7) yicld a transformed action

-~

§ = SR+H[S1+(F1,SR)| +12[S2-+ (Fy, S1)+(Fa, Sp)+ 1(Fu, (Fy, Sr))] +++ .

(17.3.8)
The question is whether we can use what freedom we have to choose the
Fy and Sy so as to cancel all infinities arising from loop graphs.

As already noted, the first term Sk in Eq. (17.3.3) is automatically
finite. Suppose that by cancellation of infinities with Sy and Fys for
M < N it has been possible to eliminate all infinities in the terms 'y,
of order #™ in the quantum effective action with M < N. As we saw
in the previous section, the Zinn-Justin equation (derived here by setting
15 =K, + 8¥/3y") tells us in this case that the infinite part [N of the
term in the quantum effective action of order A" satisfies the condition

(Sr.Tweo) = 0. (17.3.9)

The field and antifield variables " and y% are related to the variables y" and
K, by an anticanonical transformation, which preserves all antibrackets,
so the antibracket in Eq. (17.3.9) may be calculated in terms of ¥* and y}
mstead of y* and K.

The condition (17.3.5) satisfied by the counterterm Sy is not the same
as the condition (17.3.9) satisfied by I'v .. However, given any SY that
satisfics Eq. (17.3.5), we can find a class of other solutions

Sy =SY + 84, (17.3.10)

where Sy is arbitrary, except for the condition that Sg + S4 like Sg + SR;
satisfies the same symmetry conditions as Sg, and that

(Sr.Sy) =0 (17.3.11)
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so as not to invalidate Eq. (17.3.5). The infinite part of the Nth-order
term in the quantum effective action may therefore be written

I = Syo + (FNa, SR) + XN s (17.3.12)

where Xy consists of terms from loop graphs, as well as from the term S
and various terms in I” that involve Sy and Fy for M < N. For instance,
for N =2 Eq. (17.3.8) gives

X, = Sg' + 2(Fy, St) + (Fi,(F1,Sr)) + two-loop terms involving only Sg
+ one-loop terms involving Sz, S| and Fj .

For our purposes the only thing we need to know about Xy is that it does
not involve Sy or Fn, and that it is invariant under any linearly realized
global symmetries of Sg.

Now, because (Sr,Sr) = 0, the operation F +— (Sg, F) is nilpotent; for
all F,

(SR, (SR, F)) =0. (17.3.13)
Hence it follows from Egs. (17.3.9) and (17.3.11)—(17.3.13) that
(SR,XN,OC) =0. (17.3.14)

Any term in Xy o, of the form (Sg, Y ) may be cancelled in Eq. (17.3.12) by
choosing Fy , ¢qual to Y. Thus the space of possible remaining infinite
terms in Xn . that need to be cancelled by the counterterm Sy, consist
of those functionals X that satisfy (Sg,X) = 0, counting as equivalent
functionals that differ only by terms of the form (Sg, Y). In other words,
the infinities in [y that need to be cancelled by the counterterms Sj
belong to the cohomology of the mapping X — (Sg, X).

The possible form of the counterterm Sy is limited by the¢ requirement
that Sg + S} must satisfy whatever structural constraints ar¢ imposed on
the action S. Thus we can complete the proof of renormalizability if we
can show that the cohomology of the mapping X + (Sg, X) consists only
of functionals that satisfy this structural constraint.

In the case of quantum gravity coupled to the Yang—Mills ficlds of a
semisimple gauge symmetry, the symmetries of the theory are implemented
by the structural constraint (17.3.1). In this case there is a theorem® that
states that the cohomology of the mapping X — (Sr, X) (on the space
of local functionals, rather than spacetime-dependent functions, of ghost
number zero) consists™ of functionals A[¢] that are invariant under the

** Strictly speaking, this is valid if one requires that the constant cocfficients in § do
not take special values for which § would be invanant under a larger group of local
symmetries. For instance, this excludes the case § = 0.
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gauge transformation ¢" — ¢ + € f,[¢] with structure constants < 4p.
Any Nth-order infinity of this sort may be cancelled with a counterterm
Sy of the same form, so although these theories are not renormalizable
in the conventional power-counting sense, they are renormalizable in the
sense that all infinities can be eliminated by a choice of parameters in the
original bare action [ [¢] and by a suitable renormalization of fields and
antifields.

In other theories the cohomology of the map X v (Sg,X) contains
additional terms. This do¢s not necessarily require a weakening of the
structural constraints, because the additional terms in the cohomology may
not correspond to actual ultraviolet divergences. For instance, in gauge
theories with U(1) factors the cohomology contains terms* corresponding
to a redefinition of the action of the U(1) gauge symmetry on the various
fields of the theory, which if infinite would require us to weaken the
structural constraints by leaving the normalization of the transformation
functions f7[¢] in Eq. (17.3.1) arbitrary. But this infinity is forbidden by
the same soft-photon theorems that tell us that ratios of U(1) couplings
to various fields (like the ratios of the various lepton charges in quantum
electrodynamics) are unaffected by radiative corrections. (See Section
10.4.) Where the extra terms in the cohomology do contain ultraviolet
divergences, it is necessary to weaken the structural constraint imposed on
S in order that there should be a counterterm for every possible ultraviolet
divergence. It is not known whether this will always be possible; if not,
some theoriecs may have to be rejected because of their unremovable
ultraviolet divergences.

17.4 Background Field Gauge

We next turn to a method of calculation that explicitly preserves a
sort of gauge invariance, and that therefore proves extremely conve-
nient, especially in one-loop calculations, We consider the effective action
I'[4,y,w,w*] as a functional® of classical external gauge, matter, ghost
and antighost fields: Ay (x), pr(x), @4(x), @;(x). Even though ghosts and
antighosts never appear in initial or final states, we are considering back-
ground ghost and antighost ficlds as well as gauge and matter fields in
order to deal with parts of diagrams that have external ghost or antighost
lines.

" We are now returning to the specific choice of the gauge-fixing functional B[f] as
the Gaussian (15.74), and we arc integrating out the auxiliary field A,, so that the
gauge-fixing term in the modified Lagrangian is just —f,f,/2¢.
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As described in Section 16.1, I'[A4, , @, "] 1s the sum of connected one-
particle-irreducible graphs for the vacuum-vacuum amplitude, calculated
in a theory in which the quantum fields 4,/ 0,  over which we
integrate are replaced in the action with shifted fields A + A", p + ¢/, o +
o', o' + w*, the path integral being taken over primed fields with the
unprimed fields held fixed. We are free to choose the gauge-fixing function
fx(x) pretty much any way we like; instead of our previous choice f, =
8, A} (or 8,[A4} + A%]) we shall now take’

fu=0uAL + CogyAg AL . (17.4.1)

The reason for this choice is that it makes the gauge-fixing term f,f,
invariant under a formal transformation, in which the background field
A# transforms as a gauge field, while the quantum field A;,” transforms
homogeneously, like an ordinary matter ficld that happens to belong to
the adjoint representation of the gauge group

(SA# = a‘ué‘a — Lagy €8 A;,‘ ) (1742)
’ (17.4.3)

(SA.au = = aﬁyfﬁA}:u .
The transformation properties of f, can be seen most easily by writing it
as a new sort of covariant derivative

fa= DA}, (17.4.4)

where for any field ¢, in the adjoint representation
Dp@a = a‘uqﬁa + CaﬁyAﬁﬂqfv}, . (17.4.5]

We see that under the transformation (17.4.2), (17.4.3), the function (17.4.1)
transforms just like A4

Ofu = —Cagy €pfy (17.4.6)
so the term f,f, in the modified Lagrangian is invariant
8(fafu) = —Capy faep fy =0. (17.4.7)

Also, the original Lagrangian density % depends on 4 and A’ only through
the sum A+ A’, which under the combined transformation (17.4.2), (17.4.3)
undergoes an ordinary gauge transformation

S(AE + ALYy = 0"y — Capy €g(AP + A1) . (17.4.8)

If we transform the background and quantum matter fields by
S = itee, . (17.4.9)
Oy = itye,y, (17.4.10)

then also
S(p + ') = itue(tp +v') . (17.4.11)
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The original Lagrangian % is invariant under the original gauge trans-
formations (17.4.8), (17.4.11), and only depends on A + A’ and ¢ 4+ v, so
it is also invariant under the new formal transformations (17.4.2), (17.4.3),
(17.4.9), (17.4.10).

It will be useful to make this invariance property more explicit, by
writing % in terms of the background-covariant derivative D,. In general,
we have

2
& == 0w + Ay — 0y + A] + Copy [g + A, 114,y + 4,])
+ E’M(w + 4, S + ) — i talday + Ay )w + w’))

_ _ ’ 7 2
= - %(Focpv + D#A;:;v - DvAau + Cﬂfﬁ? ;3# 1’")

+ L (0 + 9, Dyl +0') — ity (0 + ) (17.4.12)
where, as in Eq. (17.4.5),
D, Ag, = 0,4y, + Caﬁ?AB;uA;v 5 (17.4.13)
Dyp =0, —iteAguyp, (17.4.14)
and Fy,, is the background field strength
Fopy = 04 Amy — Oy Aay + CogyApudy (17.4.15)

(The square in the first term of % is intended to imply obvious index
contractions.) Clearly % is invariant under the new transformations
(17.4.2), (17.4.3), (174.9), (17.4.10), because it involves A,, only in the field
strength F,,, and in background covariant derivatives D, of ‘matter’ fields
Ay, ' and .

This new transformation should be carefully distinguished from a true
gauge transformation. Such a transformation can have no effect on 4 or
y, which are¢ just prescribed classical background ficlds, and induces an
ordinary gauge transformation on A + 4’ and p 4 ¢/, so

dtrRuedl =0, (17.4.16)
STRUEAS = 0"ey — Cupyeg (A8 + A;” )
= Dyey — Coppegdt (17.4.17)
and
OTRUE ¥ =0, (17.4.18)
OTRUE ¥’ = ityeq(p + ). (17.4.19)

Of course, this is the same as the formal transformations (17.4.2), (17.4.3),
(17.4.9), (17.4.10) in its effect on A + A" and yp + ', and therefore also
leaves the original Lagrangian % invariant. However, for our new choice
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(17.4.1) of f,, the term f,f, does not depend only on A + A’, and is not
invariant under (17.4.16) and (17.4.17). Instead,

STRUE fa = Dy(D ey — CoprepAF) (17.4.20)

with D, given by (17.4.5).

Finally, let us consider the ghost Lagrangian in this new gauge. The
quantity (15.7.3) in the ghost action is given in general by just replacing
€y with the ghost field w, + w;, in STrRUES%:

Ao = Dy | D (020 + ) — Cugy(wp + ) AP (17.4.21)
The ghost Lagrangian in Eq. (15.6.2) is therefore
Lon = (@5 + 0" Dy [DHwy + 0l) — Capylp + o) 4] (17.422)
or, integrating by parts,
Pan = —(Dp(w; + ) )) (DM + 0}) — Copylep + w}?)A;“) . (17.4.23)

This is manifestly invariant under the joint transformations (17.4.2),
(17.4.3), supplemented now with transformations on w and «’:

dwy = —Cypy€eg0, , (17.4.24)

Suy = —Copyepw, (17.4.25)
and likewise

Swy = —Caﬁ}.eﬁa); , (17.4.26)

So, = —Caﬁ}.q;(u;* . (17.4.27)

We sc¢ that the formal combined transformation (17.4.2), (17.4.3),
(17.4.9), (17.4.10), and (17.4.24)-(17.4.27) leave invariant the complete
Lagrangian in the modified action (15.6.4):

Yvop = ¥ — % wfa + LoH - (17.4.28)
We are integrating over 4, y', ¢/, and @ * with a measure that is pre-
sumed to be invariant under the simple matrix transformations (17.4.3),
(17.4.10), (17.4.25), and (17.4.27), so the effective action I'[4, p,w, ®"] is
invariant under the remaining transformations (17.4.2), (17.4.9), (17.4.24),
and (17.4.26). In other words, it is gauge-invariant in the same seénse as
the original action [ [A, y,w,w"].

This formal gauge invariance sets powerful constraints on the infinities
that can occur in the effective action. The ultraviolet divergences in I
appear in the coefficients of terms whose dimensionalities are [mass]¢ with
d < 4, but here these terms are invariant under the background gauge
transformations (17.4.2), (17.4.9), (17.4.24), and (17.4.26). For instance, in
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a gauge theory based on a simple gauge group, with spin 1/2 fermions
belonging to an irreducible representation of this group, the only such
terms are of the form

r, = / dx P, (17.4.29)
JgJoo=_ ‘LA Focpv _wa’}’; D,uw
— Ly — Loy(D oy (D ary) (17.4.30)

where here F,,,, Dy, D,w, and D,w; are constructed entirely from
background fields:**

Fopy = 0pAay — OvAuy + Cog, Agrdyy (17.4.31)
D,uw = a,uw —1 taAau¥ (17.4.32)
D,y = 8,04 + Cygydguoy (17.4.33)
Duw, = 0,0, + CypyAg,a), . (17.4.34)

Dimensional analysis leads us to expect that the constants Ly, Ly, Ly,
and L, are logarithmically divergent.

To deal with these infinities, we note that the Lagrangian (17.4.12)
contains a purely classical piece

Leorass = — | F:x;wF‘u lP('}"uD + mhp — ( uly )(D”a)a) (17. 4, 35)

obtained by dropping all terms in #yop that involve the quantum fields
A,y o, w”. We define renormahzed fields

= 1+ LsAy,, 17.4.36)

(

v1+Lyyw,, (17.4.37)

vV1+L,w,, (17.4.38)

=1+ L,w,, (17.4.39)

so that the sum of the terms (17.4.30) and (17.4.35) takes the form
Lerass + Lo = — LFN, FR™ — p RyspRyR

—mRip RypR — (DR Ry (DERWE (17.4.40)

]

R
Ve

R

x

«

where mR® is the renormalized mass
m® = m(1 -+—Lm)/(1+Lw), (17.4.41)

** The condition of a simple gauge group insurcs that there is just a single kinetic term for
A and for w, proportional to FmF and D W, * D# W, respectively, while (he condition
that 1 transforms irreducibly insures that thcrc 1s just a single kinetic term and a
single mass term for . It would be easy to treat more general possibilities, at (he cost
of a slight complication in notation. We are also implicitly using the conservation of
ghost number.
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and
_ R R R
m = 0ydy — OvAy, + CaﬁzA 4, , (17.4.42)
DR =00 —it] Aww (17.4.43)
R _

Diwy = aﬂw + Cos, Af, 0F (17.4.44)
DR R = 0,0," + Cpp, A )% . (17.4.45)
The renormalized structure constants and group generators here are just
ocﬁy = (1 + LA) lfzcncﬁy 3 (17.4.46)
= (14 Lg)" V2, (17.4.47)

Because we assumed that the Lic algebra here is simple, the structure
constant Cyg, and group generator t, are fixed by the group structure
except for a single common factor, the unrenormalized gauge coupling
constant g. Eqgs. (17.4.46) and (17.4.47) thus simply tell us that the gauge
coupling constant gR factor in CR and ¢® is renormalized by

R=g(l4 L2, (17.4.48)

This result exhibits the particular virtue of the background ficld gauge.
In a general gauge we would encounter independent renormalization
factors for the gauge ficld and the gauge coupling constant, and we would
have to calculate two separate amplitudes (say, the vacuum polarization
and three-gauge-ficld vertex function) in order to be able to sort these
out. In background ficld gauge, background ficld gauge invariance ties
these two renormalizations together by requiring that the infinite terms
in the effective Lagrangian involve the field strength in its original form
(17.4.31), and so we can calculate the charge renormalization factor by
studying just one gauge field amplitude.

17.5 A One-Loop Calculation in Background Field Gauge

As an exercise, we are now going to calculate the one-loop renormalization
factor for the gauge couphing constant in a general non-Abelian gauge
theory. As we will see in the next chapter, this provides an essential input
in so-called ‘renormalization group’ calculations of physical processes at
high energy; the results we obtain here will be used there to demonstrate
the asymptotic freedom of non-Abelian gauge theories.

The method to be employed here is somewhat novel. Usually, one
considers the effective action in a spacetime-dependent background gauge
field, and calculates the terms quadratic in this field, extracting a factor
(9u4ay — qvAq,)* (Where g is the gauge field four-momentum), and only
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then isolating the logarithmic divergence by setting ¢ = 0 in the coeflicient
of this factor. Instead we shall follow the much simpler course of taking
the gauge field to be spacetime-independent from the beginning. In this
case the terms in the effective action that are quadratic or cubic in the
gauge field of course vanish, but there is a non-vanishing quartic term that
is ultraviolet divergent, and which can be used to calculate the coupling
constant renormalization factor (1 + L4)~/2. In this way our one-loop
calculation becomes a matter of simple matrix algebra. Note that this
procedure can only work in background field gauge; otherwise there would
be independent logarithmic divergences in the parts of the effective action
that are quartic and quadratic in the background gauge field.

With this motivation, we turn to the calculation of the one-loop effective
action in a background field for which A4, is constant and yp = w = 0" =
0. For such a background field, the full modified Lagrangian is”

Pvop =L +F;+Pen , (17.5.1)
2 =~ }(Fuw + DyAjy — DAl + Copy A 4, )
— PO —ited, +mpy (17.5.2)
1 1 -
sefefa=—5zDudd) (17.5.3)
Len = —(Duw, D0l ~ Capyp AL . (17.5.4)

One-loop graphs for vacuum-vacuum amplitudes are calculated from the
part of the action that is quadratic in the quantum fields A, v/, o', "
over which one integrates. Keeping only such quadratic terms, we have
1 - _
ZLauap = —7(Dpdy, — Dodl, )" — F””Caﬁv sy

~p' @B +myy’ — é(D ALY — Dy )(DHwy) . (17.55)

The corresponding action may be put in the general quadratic form:
Iguap = f d*x Z quap
== [ Ay A 0) Dy — [ Ay L0 D,

= [ dixdty o} ()h(y) Dy (17.56)

* See Egs. (17.4.12), (174.4), and (17423) We arc here spemallzmg to the case of
matter fields forming a multiplet of spin 3 ! fermions. The squares in % and .¥; include

obvious index contractions.
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with
A _ 0 i J 4
Doy = M — Oy, + Coa 500)( =y 57t CyepAea())8*(x — y)
0 0
_( - 5}’&% + CyéacAév(x)) ( - 5?65;; + CptﬁAqu(y)) 54(}6 - y]
+Fyu (x)cyoc654(x — )
1 %, 0
+ 5 (=S + Condnlx)) (= 5 + Crapden()) 846 = 9)
(17.5.7)
%
—wh 4y — 1
DY, = ( Y Py ity du(y) + m) k{é (x—1y), (17.5.8)

[42] a a
Deyp = (~Oms + Candia()) (= + Cropb9)) 04 = ).
(17.5.9)

(The minus signs in front of d/dx and ¢/dy drop out when we integrate
by parts.)

The one-loop contribution to the effective action is given (as in Section
16.2) by

exp (IF] loop[A) f HdA")(H dy')( [ dp")(] [ de) (J[de™")

X exp (IIQUAD[A",w,w,w,w ;A])
o (Det24)™V4(Detg¥ ) (Det2”)*! . (17.5.10)
(The exponents —1/2 and +1 appear because A’ is a real boson field,

while v/, ¥/, o', and @™ are distinct fermionic fields.) The calculation
of such determinants is generally not an easy task. However, it becomes
much simpler in the case of constant external fields, where the &s can be
diagonalized by passing to momentum space.

Let’s therefore now consider the case of constant background field A4,,.
For non-Abelian gauge theories such a constant field cannot be removed
by a gauge transformation, as shown by the non-zero values of various

gauge-covariant fields
Fop = CapyAgudyy (17.5.11)
D;Fsn = C&F:xCaﬁ'},Afj.Aﬂ,uA})v , (17.5.12)
and so on. Lorentz and gauge invariance tell us how to express the part
of T'[A] of a given dimensionality as the integral of a finite number of

local functions of Fy,,, D,Fy,, etc.; the coefficients of the terms in this
expression can be inferred by comparing the contribution that these terms
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make to I'[4] for constant background field 4,, with the results of a
perturbative expansion.

We transform each of the ‘matrices’ 4, 9%, and 2 to a momentum
basis by the usual normalized Fourier transform

d4x —Ig-x d4y ip
@q...,p... = (2,-[)2 € q (2—7{)'5 etpy ‘@X“',y“' . (17.513)
With A4 constant, this gives
Dgowp =0 p—q) M....(q), (17.5.14)
where --- denotes discrete indices, and the .# are finite g-dependent

matrices

ﬁﬁ;gﬂv(q) = n,uv(_iq;léya + A(S,{C-ﬂsa)(iqié},ﬁ + AE,:I.C'},E-B)
_(‘iq'uéyoc + Aévcyéa) (iqp5n,1,3 + Ae;;cyeﬁ]

FFyiev Cyap

+(_i‘?,u5ya: +Aépc}-5x) (iq\rayﬁ +A€vcyr’ﬁ)/|§'

~+€ terms , (17.5.15)
MY (g) = (i § — ityds +m), + € terms (17.5.16)
M (g) = (—iqz0ys + As1Cys) (ig" 8, + A Cyep)

te terms (17.5.17)

with F,,, given by Eq. (17.5.11). From Eq. (17.5.10) we have then

irttleoP)y 4] — 1 In Det2* + In Det%¥ + In Det2”
= — Trln 21 + Trln 2% + Trln 2

= (34(p~p)fd4q[— Ur In #A(q) + tr In #¥(q)
+trln jzw(q)] . (17.5.18)

We denote traces by ‘tr’ instead of ‘Tr’ in the last line of Eq. (17.5.18) (and
from now on in this section) to indicate that these are the usual traces of
finite matrices rather than of integral operators.

Since we are aiming here at a calculation of the infinite factor Lg4
multiplying FF terms in the effective action, let’s isolate the term in
(17.5.18) that is of fourth order in the background field A. For this
purpose, it 15 convenient to divide each .4 into terms .#, containing
n=201, or 2 factors of 4:

M= M+ M+ M (17.5.19)

It is then elementary algebra to show that the term in (17.5.18) of fourth
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Figure 17.1. One-loop Feynman diagrams for the term in the quantum effective
action that is quartic in a constant background gauge field A% Here solid lines
represent internal gauge, ghost, or matter lines; dashed lines indicate factors of
A", These three diagrams correspond to the three terms in Eq. (17.5.20).

order in Ay, is
[tr In 4] 44 = tr{ ~ Ly M)
LA P M — 5[%5%,]4}. (17.5.20)

(To see this, insert factors ¢ and e multiplying .4#; and .#> in Eq.
(17.5.19), differentiate tr In .# four times with respect to ¢, divide by 4!
and set ¢ = 0.) The .#! factors here are just the usual propagators; for
¢ =1, these are

[ @D5ley = daphn(@® — i) L, (17.5.21)
[l =i d +mli (17.5.22)
[AG (@))p = Oaplq® — €)™ (17.5.23)

Indeed, the three terms in Eq. (17.5.20) just correspond to the three Feyn-
man diagrams shown in Figure 17.1; the present method of calculation
saves us from having to think about signs and combinatoric factors.

For the A loop, Eq. (17.5.15) gives for £ = 1:

LA D aepy = =208 [ 3]up »
[ @l = + [t 158" — vl y = Ayl + FynCoa

where &7 is the matrix
[%i]cxﬂ = —i Ca:ﬂ}’Ay)L
for which

[ 4, A plap = —CasyCope (AyaAep — AypAer)
= —(Cu5yCspe + CascCspy) AyiAep
= ‘f‘caéﬁCéEyAyiAep = CaéﬁF‘SP'{ )
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The integrals have the structure

f dqq"q’f(q*y = In* f d*q *f(q%).,

/ P9q" () = LI + 0"’ 4 g yve) f d*q (4°)f(q%) .
We then find, for { = 1:

2
f d*q tr{ [ﬁg(q)—wg(q)] }: 4.5 e[/t ot ot st )
+4.7 CyaﬁC5aﬁF},#vF§v .
| dawe{ Ly i) agiay ag (@)] =45 ulo st ynaty),

4
f d*q tr{ [ﬁg(q)—wf(q)} }: gftr[wwww,, +ww"qu] ,
where # is the divergent integral

= f g —ie] ™2, (17.5.24)

whose significance is discussed below. Putting this together in Eq. (17.5.20),
we have

f i ) = L5ttt Ao — A ANt |

=29 CyupCsup Fuy FE¥
Both terms are actually of the same form, and when combined yield
f d'q|trin #4(g)| | =~ 1.5 CrupCoupFpunFE* . (17.5.25)
Now jumping ahead to the ghost loop, we see from Eq. (17.5.17) that
AP @)ep = —2[ " q; (17.5.26)
[ @)ap = [ 58 15 . (17.5.27)

We then find

[ dau{{ a5 a3 @] } = s uisiaanay,
/ dq tr{[ﬁg’(qrbfz;ﬂ( )] ME(g)! (q)} = S te[ad st "4,

4
/ d“qtr{[./fzg’(q)—'.ﬁ?(q)} }: gftr[z.gfwwwq+Mmmmq].
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Thus for the ghost loop the integral of the quantity (17.5.20) is
/ Bq [Tr In H°(q)| g0 = L9 Te[* sl sl sy — st ol il 1)
= £ ICuCsupF, 1 F§” . (17.5.28)
Finally, the vertices in the matter loop are

A (Dle = —i (ta e [ 43 (Dlke =0,
so here there is only one term in Eq. (17.5.20):

f d*q [Tt In #¥(g)) e = — }f d*q Tr{[(i d—l—m)_ltadiar} :

We are intetested in the ultraviolet-divergent part of this integral, so we
may drop the mass (which is negligible for large g¥) and write

[ d4q [Tt In HY (@) g0 = — L Tr{tatptyts } AuuApyAypAse
I v P a
y fd4qTr{ gy 4 4 47}

(g% — ie)®

T Tr{tatﬁtyfa}AapAﬁvAgpAéa

x Tr{297"7"7 1 7y"y" + vty vy )
(17.5.29)

where .# is the same divergent integral as in Eq. (17.5.24). To calculate the
traces of Dirac matrices, we use the anticommutation relations of these
matrices to write

Te{ 20 7" 1y y™y” + vy vy )

= 8Tr{y"y"yPy7} — 4Tr {p"y# 9Py} — ATr{yFyPy"y7}
= _64;71“.0’7"’0' + 32’]4%’7;76 + 32’7;&0”1:,0 -

Eq. (17.5.29) then gives
[ da[Temar@)] = 15 Te{lta t9)l5 1) }AuAp, A2
— LIF, W F§ Trit,ts} . (17.5.30)
Using Eqs. (17.5.25), (17.5.28), and (17.5.30) in Eq. (17.5.18) gives at last

vl 75 1 1
], toop) 21:)4 / d*xF.,,, F} {(6 + E) CyapConp — 3 T"{fﬂé}] ;

(17.5.31)




17.5 A One-Loop Calculation in Background Field Gauge 107

where we have expressed the momentum-space delta-function in (17.5.14)
as

54p —p) = (2n)~ f dxl (17.5.32)

It is important that the result turns oul to depend on 4,, only through
the field strength (17.5.11), as required by background gauge invariance.

Let us now (for the first time in this section) use the assumed simplicity
of the gauge group and irreducibility of the matter field multiplet. In this
case

CyapCoog = &' C1,5 , (17.5.33)

Tr{t,ts} = g°Cad,s , (17.5.34)

where g is the common gauge coupling constant appearing as a factor in
C,up and t,, and C; and C; are numerical constants that characterize the
gauge group and the representlation of this group provided by the matter
multiplet. For instance, in the original Yang-Mills theory the gauge group
1s SU(2) (or equivalently SO(3)) and the structure constants are

Cap = BEupy

with «, f, and 9 running over the values 1, 2, 3. Comparing with
Eq. (17.5.33), we see thatl here

C, =2.

Also in this theory the matter field forms a doublet with ¢, given by g/2
times the usual Pauli matrix o,, so

:1/2.

Somewhat more generally, for the group SU(N) with ny fermions in the
defining representation, with a conventional normalization of generators
we have™

Ci=N, Cy=ny/2. (17.5.35)
Returning now to the general case, Eqs. (17.5.33) and (17.5.34) give
(11 Ig f v 11 1
rt,ooP = ¢ ] d*xF,,, F [ G =30 (17.5.36)
That is, the infinite constant L, in Eq. (17.4.30) is
4ig? ¥ 1
La= T ( C,— §C2) . (17.5.37)

™ For SU(3 the t, are taken as g/2 times the Gell-Mann matrices 4, used in Section 19.7,
so that Cog. = (2/2)f 441
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It remains to say a word about the interpretation of the divergent
integral .#. First, before we try to integrate over the three-momentum
q, we can totate the contour of integration of ¢° in Eq. (17.5.24) to the
imaginary axis; as usual, the —ie is the denominator forces us to rotate
counterclockwise, so that ¢° = ig*, with ¢* running from —oo to +co. The
integral is then

o 2.3
F—i / n’qdq (17.5.38)
0 q

where ¢ is now the magnitude of the Euclidean four-vector (¢!,4°% ¢°, q¢*).
To go further, we evidently need some method of regulating the integral.
The simplest way of dealing with the ultraviolet divergence is just to cut
off the integral for g above a scale A. However, we also need a lower
cut-off to deal with the infrared divergence. This is provided by the
physics of the situation. If the momenta of the four vector particles is not
zero, then a momentum flows through the internal lines of the diagrams,
providing an infrared cut-off at the scale u of these momenta. Similatly,
if we evaluate the fourth variational derivative of I'[4] with respect to 4
not at A = 0 but at a finite A4, then the propagators of the internal lines
do not blow up at zero momenta, and we have an infrared cut-off at a
scale u ~ gA. Either way, .# takes the form

A
5 = 2nli / U4 _n2in (é) (17.5.39)
p 4 H
and hence
2
g 11 1 ) (A) 4
- _ SO — = — , 17.5.
Ly 2 (12 Ci 3C2 In p + 0(g") (17.5.40)
Eq. (17.4.48) then gives the renormalized coupling as
2
_ g A 11 I 4
gR—g{l—l—Wln (E) (12 C, 3C2)+O(g ) - (17.5.41)

We note that while in quantum electrodynamics the radiative corrections
discussed in Section 11.2 decrease the physical coupling gg relative to the
bare coupling g, in non-Abelian gauge theories they increase the physical
coupling over the bare coupling, provided that the fermion multiplet is
small enough so that C; < 11C, /4. The importance of this point will be
explored in Chapter 18.

Alternatively, we can deal with the ultraviolet divergence by the methods
of dimensional regularization, discussed in Section 11.2. Here, in place of
Eq. (17.5.39), we write

00 2n2qd‘1dq
Jf=if “mq 49 17.5.42
o (g% + 1?3 ( )
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where d is a complex dimensionality, allowed to approach 4 at the end of
the calculation, and g is an infrared cut-off, again taken of the order of
the external momenta (or of the background fields times g). As long as d
is complex with Re d < 0 and p > 0, this has the finite value

F = —in’ (g — 1) u=*n [ sin Kg —2) n] .

Analytically continuing to d — 4, this is
F — =2in? [%4 +Inpu+-- ] . (17.5.43)

where - -+ denotes finite y-independent terms. Here we have

2

g° /11 1 )( 1 4
L.=2_[-¢Cc, —= ___
4=5 (12C1 3C2 d_4+ln;.t+ )+0(g)

and so

2
g’ /11 1 1 A
— — L (=C=2C [ — +1 ,
8Rr g{l 4n2(12C| 32)(d_4+nu+ )+O(g)
(17.5.44)

Note that the ultraviolet divergence here takes a different form, but the
dependence on the infrared cut-off y is the same. Eq. (17.5.44) will provide
an important input to our discussion of asymptotic freedom in Section
18.7.

Problems

I. Carry out the proof of renormalizability given in Section 17.2, in-
cluding elementary scalar fields in the Lagrangian.

2. Carry out the quantization of a non-Abelian gauge theory in back-
ground field gauge, using the BRST method of quantization discussed
at the end of Section 17.2.

3. Derive the relation (17.5.44) between the renormalized and unrenor-
malized gauge couplings by calculating the terms in I'(1 19°P) that are
quadratic in a spacetime-dependent gauge field.

4. Calculate the one-loop relation between the renormalized and un-
renormalized gauge couplings in a gauge theory containing elemen-
tary scalar fields.
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Renormalization Group Methods

The method of the renormalization group was originally introduced by
Gell-Mann and Low! as a means of dealing with the failure of perturbation
theory at very high energies in quantum electrodynamics. An n-loop
contribution to an amplitude involving momenta of order ¢, such as
the vacuum polarization I1,,(g), is found to contain up to n factors of
In(g?/m?) as well as a factor ", so perturbation theory will break down
when o|In(g?/m2)| is large, even though the fine structure constant « is
small. Even in a massless theory like a non-Abelian gauge theory we
must introduce some scale u to specify a renormalization point at which
the renormalized coupling constants are to be defined, and in this case
we encounter logarithms In(E /), so that perturbation theory may break
down if E > p or E « yu, even if the coupling constant is small.

Fortunately, there is a modified version of perturbation theory that can
often be used in such cases. The key idea of this approach consists in the
introduction of coupling constants g, defined at a sliding renormalization
scale u — that is, a scale that is not related to particle masses in any
fixed way. By then choosing u to be of the same order of magnitude as
the energy E that is typical of the process in question, the factors In(E /)
are rendered harmless. We can then do perturbation theory as long as
g, remains small. In particular, given the coupling constants defined at
scale u, we can use perturbation theory to calculate physical amplitudes
at an energy u + du, and use these to calculate the coupling constants
defined at a renormalization scale y + du. By integrating the resulting
differential equation we can then relate the coupling constants at the scale
of interest to the coupling constants as conventionally defined. (The name
‘renormalization group’ arose originally because one is concerned here
with equations that describe how the appearance of a theory changes
under a redefinition of the renormalized coupling constants, but it really
has nothing to do with group theory.) The method of the renormalization
group can also provide qualitative guidance regarding asymptotic behavior
at very high or (in massless theories) at very low energy, even where the

111
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coupling constants at the scale of interest are too large to allow the use
of perturbation theory.

Although the method of the renormalization group arose originally in
connection with changes in the prescription used to define renormalized
coupling constants, it has come to have a wider meaning. When we replace
bare couplings and fields with renormalized couplings and fields defined
in terms of matrix elements evaluated at a characteristic energy scale u,
the integrals over virtual momenta will be effectively cut off at energy
and momentum scales of order u. Thus as we change u, we are in effect
changing the scope of the degrees of freedom taken into account in our
calculations. The lesson of the renormalization group, that in order to
avoid large logarithms we should take y to be of the order of the energy
E typical of the process being studied, 15 a special case of a broader
principle, that in order to do calculations at a given energy we should first
get rid of the degrees of freedom of much higher energy.

There are various other ways to accomplish this. As we saw in Section
12.4, in the approach to the renormalization group pioneered by Wilson®
one introduces a finite explicit cut-off accompanied by a change in the
parameters of the theory designed to keep physical quantities cut-off-
independent. This approach requires introduction of an infinite number
of interaction types, all those allowed by the symmetries of the theory,
and is therefore not particularly convenient in dealing with theories that
are actually renormalizable, like quantum electrodynamics (although, as
discussed in Section 12.3, quantum electrodynamics is today regarded as
only a very good approximation to a non-renormalizable theory in which
the higher-dimensional interactions are suppressed by negative powers of
some very large mass.) Where the cut-off is imposed by quantizing a
gauge theory on a finite spacetime lattice, the Wilson approach has the
advantage that calculations can be done while maintaining manifest gauge
invariance (the volume of the gauge group equaling the volume of the
global symmetry group times the number of lattice sites), but it has the
disadvantage of not maintaining manifest Lorentz or rotational invariance.
In any case much of the formalism of the renormalization group remains
the same whatever approach is used to eliminate the high-energy degrees
of freedom.

18.1 Where do the Large Logarithms Come From?

Let us first consider how large logarithms can arise at very high energies,
Consider a physical amplitude or cross section or other rate parameter
I'(E, x, g, m), that depends on an over-all energy scale E, on various angles
and energy ratios collectively called x, on various dimensionless coupling
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constants collectively called g, and on various masses collectively called
m. If T has dimensionality [mass])” (as, for instance, a cross section would

have D = --2) then simple dimensional analysis tells us that
[(E,x,g,m) = EPT (1, X, %) . (18.1.1)

We might expect that in the limit £ — oo such an amplitude would behave
as a simple power

[(E.x,g.m) — EPT'(1,x,2,0).

But this is not what is found. Instead, in perturbation theory calculations
the factor E? is found to be accompanied by powers of In(E/m), which
invalidate this simple power-law behavior.

Clearly, powers of In(E /m) can enter as £ — oo with fixed m only if
the.amplitude I at fixed energy E becomes singular as m — 0. There are
two classes of such mass singularities, one which is simply eliminated by
calculating the right sort of amplitude or rate constant, the other of which
requires a change in our renormalization procedure.

Zero-mass singularities of the first sort arise from a confluence of poles
of propagators on the mass shells of the corresponding particles. For
instance, suppose that a Feynman diagram has an incoming line with
total four-momentum p#, attached at a vertex to internal lines of mass
my,ms, ..., m, According to the arguments of Chapter 10, the correspond-
ing Feynman diagram will have a cut running along the negative real p?

axis, from p?> = —(m1 +...4+my)? to —co. This does not lead to singularities
if the external line is for a stable particle, with a mass M < my + ... + my,
because then p* = —M? is off the cut. However, when M, m,,...,m, all

go to zero, the value of —p? on the mass shell and the branch point at the
tip of this cut move together to join at p?> = 0, producing a singularity.

This suggests that we can avoid the infrared divergences at m = 0 by
simply staying off the mass shell, as, for instance, by letting p* for all
external lines go to 4o along with all energy variables. We would then
have to employ dispersion relations or some other technique of analytic
continuation to use the results for the behavior of Feynman amplitudes
in this limit to tell us anything about S-matrix elements. Often this
continuation is unnecessary because we are interested not in on-shell
S-matrix elements but rather in the matrix elements of currents carrying
momenta g unrelated to any masses. For instance, the vacuum polarization
function n(g?) defined in Section 10.5 is free of zero-mass singularities of
the first sort except for g < 0.

Another approach to the elimination of mass singularities of the first
type is suggested by the observation that zero-mass singularities typically
occur if we try to calculate a cross section that becomes unmeasurable
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in the limit m — 0. For instance, in quantum electrodynamics the cross
section for any process involving definite numbers of electrons and photons
becomes infrared-divergent in the limit m, — 0, even if we sum over
unlimited numbers of soft photons, because for m, — 0 it is impossible
to distinguish an electron from a jet of electrons, positrons, and photons
with total charge —e, all moving in the same direction at the same
speed. As shown in Chapter 13, such infrared divergences can be cured
by considering only suitably integrated cross sections, which would be
measurable for m, — 0. For instance, instead of trying to calculate
the cross section for a specific Compton scattering process, we would
calculate the cross section for the scattering of a jet with total charge
—e with another of total charge zero into two other such jets, plus soft
photons. Such inclusive rates or cross sections, which remain finite when
all masses vanish, are known as ‘infrared safe.’

Our troubles are not over. Even where we avoid infrared divergences by
integrating over cross sections or staying off the mass shell, the resulting
integrated cross sections or off-shell amplitudes for energies E contain
mass singularities of a second type, leading to factors In(E/m) that in-
validate the naive power-law behavior suggested by dimensional analysis.
The reason can be traced to the fact that renormalized coupling constants
are conventionally defined in terms of amplitudes that become infrared-
divergent when all masses vanish. For instance, consider the theory of a
real scalar field with Lagrangian density

_ oy Lo 14
¥ =3 090" — 5 m¢? — = g " (18.1.2)

To one-loop order, the invariant elastic scattering amplitude for a scatter-
ing process with initial four-momenta p;, p>, and final four-momenta p/,
P, is given by Eq. (12.2.24) as

2 1 2
g A
= — 1
A=¢ 32n2 [0 dx{ n(mQ—sx(l—-x))

1 A 1 A 33 +0(g%), (18.1.3
+n m? — x(1 — x) +in m? — ux(l — x) —3 4007, (1813)

where s, t, and u are the Mandelstam variables

s=-(p+p)?, t=—(p1—p0), u=—(p1—ph)’

and A is an ultraviolet cut-off. This has no zero-mass singularities as long
as we keep s, t, and u away from the positive real axis, and in particular if
they all go to —oo (which violates the mass shell condition s+t +u = 4m?)
Of course, the amplitude depends on the cut-off A as well as on m, so even
though there are no zero-mass singularities, we do not find the result A —
constant that would be found on the basis of naive scaling arguments




18.1 Where do the Large Logarithms Come From? 115

in the limit as s, ¢, and 4 go to —oo. The dependence on the cut-off
can be buried by renormalization; we replace the bare coupling g with a
renormalized coupling gg, defined as the value of A at some convenient
renormalization point. For instance, we might take

gr=As=t=u=20)

AZ
=g - 3¢ In — — 14 +0("). (18.1.4)
3272

Then (18.1.3) becomes

. g% 1 { (_sx(lwx))
A= gR+322f0 axq in (1- 2028

—f—ln(l—M)—F—l ( ﬁrl’—é——-ﬁ)}—f—()(g%). (18.1.5)

m?

(We can freely replace g with g% in the second term, because the difference
is only of order g3.) This is free of ultraviolet divergences, but it now has
a singularity at m = 0, even where s, t, and u are all kept negative. In
consequence, where s, , and u all go to —oo, we again find an asymptotic
behavior in disagreement with expectations based on naive scaling

A gR+3222{1n(m2)+1n(m)+1n(m‘2‘)—6}. (18.1.6)

(Much the same happens with any other ‘natural’ definition of the renor-
malized coupling; for instance, we might define gg as the value of A at
the on-shell symmetrical point s = t = u = 4m?/3, and would recover
the same asymptotic behavior as in Eq. (18.1.6), except that —6 would be
replaced some other numerical constant.) It is clear that the zero-mass
singularity that is encountered when A is expressed in terms of gg arises
entirely from the Inm? term in the formula (18.1.4) for the renormalized
coupling ggr in terms of the bare coupling g.

There are in addition other zero-mass singularitics that arc encountered
when we calculate matrix elements of operators (such as off-shell Feynman
amplitudes) rather than integrals of cross sections, These are due to the
necessity of renormalizing these operators as well as coupling constants.
For instance, suppose that in the scalar field theory with Lagrangian
(18.1.2), we wish to calculate some matrix element (B|0(p)la) of the
operator

O(p) = f d*x e P p%(x). (18.1.7)

In Feynman diagram terms, this corresponds to inserting a vertex in
which two internal ¢-lines come together, and through which flows a total
four-momentum p in diagrams for the transition & — f. (See Figure 18.1.)
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Figure 18.1. Momentum-space Feynman diagrams for the matrix element of the
operator [ d*x exp(—ip - x) ¢*(x) in the theory of an elementary scalar field
@(x). The cross-hatched disk represents the sum of diagrams with the indicated
external lines. Apart from the pair of external lines that meet in a ¢* vertex, the
other external lines attached to the disk represent the particles in the initial and
final states between which the matrix element is evaluated.

Figure 18.2. A class of Feynman diagrams for the matrix element of the operator
[ d*x exp(—ip - x) $*(x) that exhibit an ultraviolet divergence. The notation is
the same as in Figure 18.1.

Ultraviolet divergences arise from a class of diagrams in which this new
vertex is part of a subdiagram that is connected to the rest of the graph
by just two ¢-lines. (See Figure 18.2.) Dimensional analysis shows that the
subgraph would be convergent if connected to the rest of the diagram by
more than two ¢-lines, because the interaction ¢? has dimensionality +2,
and hence a subdiagram in which this vertex is connected to the rest of
the graph by n > 2 lines has dimensionality 4 — 2 — n < 0, The divergent
part of this subdiagram is just a logarithmically divergent constant, so
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Figure 18.3. The divergent part of the diagram in Figure 18.2, to one-loop order.

the matrix elements of ¢ can be made finite® by multiplying ¢ with a
suitable divergent constant Z ;. To order g?, the relevant subdiagram is
given by the diagrams of Figure 183, and hence contributes to matrix
elements of @(p) a divergent factor

2 d*k
f [k? +m? —ie] [(p — k)? + m? —ie]
(18.1.8)
Combining denominators, rotating the k¥ integration contour, and impos-
ing an ultraviolet cut-off A gives a result, for A — o

—1

(2m)*

Fip) = 1+ 3 [~i(2m)s]

_ g 1 AZ 5
1[?(;,»)_1—mf0 dx [m (m2+p2x(1_x))—1} +0(z%). (18.19)

This has no zero-mass singularity (as long as we keep p? positive), but
of course it does depend on the cut-off. This logarithmic divergence is
eliminated by defining a renormalized ¢? operator

(¢P)r = N9 g2 (18.1.10)

with N@) chosen so that N®)F(p) has some definite finite value at
some definite renormalization point. For instance, we could define the
renormalized ¢ operator so that

NYIF0)=1, (18.1.11)
in which case
2
@ 1. _8 A” 2
N + 92 (ln 3 1)+ 0(g9). (18.1.12)

The matrix elements of the renormalized operator (¢?)g then contain a

* In making this argument it was assumed that any divergences arising from subsub-
diagrams containing the ¢ vertex which are attached to the rest of the subdiagram
by just two ¢-lines are eliminated in the same way.
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factor

m?

Fr(p) = N’ 'F(p) =1 + o / dx In (1 + p__u) +0(g?).
(18.1.13)

This is finite for all p> > 0 and m? > 0, but it now contains an infrared
singularity for m — 0, corresponding to large logarithms in the asymptotic
behavior when p?> — +o0. Of course in order to eliminate the cut-off in
higher-order calculations we would have to introduce a renormalized
coupling constant as well as a renormalized ¢ operator, and we would
encounter logarithms arising from both sources.

Similar renormalization factors are needed for any sort of operator,
not just ¢*(x). In particular, taking a matrix element of one of the
clementary fields p of a theory introduces ultraviolet divergences that
arise from radiative corrections to the corresponding propagator. As we
saw in Chapter 12, these infinities can be cancelled by working with a
renormalized field yg:

r = NWy (18.1.14)

with N®) chosen to make the matrix element of wg between a onc-particle
state and the vacuum the same as for a conventionally normalized field
in the absence of interactions. This is related to the usual Z-factor of
renormalization theory by

¥) = [NW)2, (18.1.15)

For instance, let’s recall our earlier results for the renormalization of
the photon field in spinor quantum electrodynamics.”™ In this case, the
renormalized electromagnetic field A% is conventionally written in terms
of the ‘bare’ field A% as

A =724k

with Z3 given by Eq. (11.2.21) as

2
Zi=1— < _In (A2)+0( ). (18.1.16)

1272 m?

This has a zero-mass singularity, which will affect the asymptotic behav-
ior of matrix elements of the renormalized photon field. 1n particular,

** In the scalar field theory with ¢* intcraction used as an example above, the lowest-
order terms in N arise from a two-loop graph, so it will not be convenient to use
this theory to illustrate the calculation of the N-factors.
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Eq. (11.2.22) gives the self-energy function of the renormalized clectro-
magnetic field as

n(q2)_ f dx x(1 — x)In [1+q—x(;1;x)} + 0(e%). (18.1.17)

This has a smgularlty at m = 0, and so has large logarithms in its

asymptotic behavior: for ¢°> - 40

2 2

— |- In - — = : 18.1.18

(@’ — 5 [6 n 18}+O(8J (18.1.18)
Electrodynamics has the special feature that the constant Z; that ap-

pears in the renormalization of the electromagnetic field also appears in

the renormalization of (he electric charge:

er = Z3'” epars , (18.1.19)

but this is not generally the case. Renormalization group techniques
were first applied in quantum electrodynamics, but the scalar field theory
discussed here gives a more typical illustration of these methods, with
separate renormalizations for fields and couplings.

18.2 The Sliding Scale

We have seen in the previous section that the large logarithms that appear
at high energy in suitably integrated cross sections or off-shell Feynman
amplitudes can be traced to the prescription used to define renormalized
coupling constants and operators. The central idea of the renormalization
group method is to change this prescription.

Suppose we find some way of defining a new kind of renormalized
coupling constant g(u), that depends on a sliding energy scale y, but that
(at least for u >>» m) has no dependence on the scale m of the masses of
the theory. Then suitably integrated cross sections or other infrared-safe
rate parameters may be ¢xpressed as functions of g, and yu instead of gg.
By dimensional analysis such functions may be written as

T(E,x,g,m u) = E F(l X g E) (18.2.1)

(Our notation here is the same as in Section 18.1; in particular, x stands
for all dimensionless angles, energy ratios, etc. on which I' may depend.)
Since u 1s a completely arbitrary renormalization scale, we can choose
¢ = E, in which case Eq. (18.2.1) reads

I'E,x,gu,m,u) = EPT (I,x,gE, %, 1) : (18.2.2)
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This now has no zero-mass singularities because gz does not depend on m
for m < E, so there are no large logarithms, and we can use perturbation
theory to calculate I in terms of gg as long as gg itself remains sufficiently
small. In particular, in any finite order of perturbation theory I has the
asymptotic behavior, for E > m,

I'E,x,g.,mu)— EPT(1, x, gg, 0,1) . (18.2.3)

(Non-perturbative corrections are considered in Section 18.4.)

It remains to calculate gg. For instance, in the scalar field theory
with Lagrangian (18.1.2), we may define g, in terms of the value of the
scattering amplitude at a renormalization point s =t =y = —p?:

g#EA(S=t=u=-——,u2)

g8 ldx In A — 1 +0(g%) (1824)
—ET mZ 4 12x(1 — ) 8 -

or, in terms of the conventional renormalized coupling (18.1.4),

gu=gr+ 35 3 3gR f dx In (1+ (l_x))+0(g?q)- (18.2.5)

But this formula is reliable only if the correction term is smaller than gg;
that is, only if |gr In(u/m)| < 1. If this were the case for u ~ E, then
we would not need the methods of the renormalization group; ordinary
perturbation theory would be good enough.

Instead of using formulas like (18.2.5) directly for large u, we must
instead proceed in stages: g, may be calculated in terms of gg as long
as u/m is not much larger than unity; then g, may be calculated in
terms of g, as long as u'/u is not much larger than unity; and so on,
up to ge. Instead of discrete stages, this may also be done continuously.
Dimensional analysis tells us that the relation between g, and g, takes
the form

g = Glgy, ¥/, m/p). (18.2.6)

Differentiating with respect to p' and then setling g/ = u yields the
differential equation

wge=b (8. (1827)
where
8 (gu, %) [ aaz Glg,., , m/,u)L:] . (18.2.8)

There are no zero-mass singularities here, so for u > m the differential
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equation becomes simply
d
H g 8= B(gu, 0) = Blgyu), (18.2.9)

which is often known as the Callan-Symanzik equation.! We are to cal-
culate gg by integrating the differential equation (18.2.9), with an initial
value gy at some scale i = M, chosen in practice large enough so that for
u > M we can neglect the masses m compared with u, but small enough so
that large logarithms In(M /m) do not prevent us from using perturbation
theory to calculate g)s in terms of the conventional renormalized coupling
constant gg. The solution may be formally written

In(E/M)= [ de/B(g) (18.2.10)

EM

as long as B(g) does not vanish between gy and gg.

The results of the previous paragraph do not rely on perturbation
theory, but we usually need to use perturbation theory to calculate the
functions G and 8. As an example, suppose we calculate g,/ in the scalar
field theory with interaction g¢*/24, renormalizing by expressing g in
terms of g, rather than gg. Following the same procedure that led to
Eq. (18.2.5), this gives

3g2 m? + 12x(1 — x) :
8y = 8u— 3272 ] dx In (m2 + O(g,u) :

+ 1'%x(1 — x)
Then Eq. (18.2.8) gives

m 3g‘u 1 HZX(I — JC) 3
B (g‘u:u) 167‘52 / dx m2-|-u2x(1—x) +0(g#). (18.211)

For u > m, this is
3gﬁ 3
Blew) = 1¢.2 + 08y (18:2.12)

In next order, the beta-function for y > m is’

B(g.) = g, [3 (%) 137 (16%2)2_‘_,..] _

If we are content with the one-loop approximation the calculation of
p(g) can be done even more easily. In order to avoid large radiative
corrections in matrix elements at energies of order u, we must write the
bare coupling g in terms of a finite renormalized coupling g, as

A
g =8y + B(gy) In 4 + (18.2.13)
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For instance, from Eq. (18.1.3) we could have immediately read off that
the In A terms in g have coefficient

3 —i 12 3g2
— —Z =2 4,20 | % 2-=____‘ '
B(g) = —5 [ i(2n)'g ] [(27:)4} i = 2 (18.2.14)
The unrenormalized coupling is of course independent of u, so to lowest
order

d
ﬂ'&;g,u‘_B(gu) =0

and so to lowest order

B(g) = B(g). (18.2.15)

With B(g) given by Eq. (18.2.14), this agrees with our previous result
(18.2.12) for B(g) in the ¢* scalar field theory.

Instead of using a simple ultraviolet cut-off, which can interfere with
gauge Invariance, it is often more convenient to deal with ultraviolet
divergences by use of dimensional regularization. For a spacetime dimen-
sionality d < 4, we find in place of In(A/u) the convergent integral

o« . dk ut? 1
kd 4= N [____ ]
L k ~4=d 54 &—a H

Thus instead of eliminating the cut-off dependence by writing the un-
renormalized coupling constant as in (18.2.13), we instead write

1
=g+ B(g,u) [m —In p} (18.2.16)

with the same function B(g,) as before. Thus in order to calculate §(g,),
all we need to do is to pick out the coefficient of the singular factor
1/(4 — d) in the renormalized coupling. This argument is extended to all
orders of perturbation theory in Section 18.6.

As long as g, is sufficiently small in the scalar field theory with La-
grangian (18.1.2), the solution of Eqgs. (18.2.9) and (18.2.12) can be well
approximated by

1672
3Tn(u/ M)’

where M is an integration constant. This expression illustrates a common
aspect of renormalization group calculations, that dimensionless couplings
like gr become replaced with parameters like M that have the dimension-
ality of mass. The value of M may be related to gg by comparing the
solution (18.2.17) with the behavior of the coupling for values of u that
are large enough to allow us to use approximations based on u > m, but

gy = (18.2.17)
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small enough so that |gg In(u/m)| € 1, where (18.2.5) gives

38k 1 (K
~ =, 18.2.18
g+ o In (&) (18.2.13)
In this way, we find
16m2
M>~mex ; 18.2.19
p ( 3R ) ( )
so that Eq. (18.2.17) may be put in a more conventional form
38R -
8 = &R [1 - = In %J . (182.20)

To repeat, this is valid provided g, 1s small, even if |gg In(u/m)| is of order
unity, so it represents a significant improvement over the perturbative
result (18.2.18). Of course, the condition that g, should be small will
become violated when ggIn(u/m) is sufficiently close to the critical value
1672/3. But at least Eq. (18.2.20) makes the unequivocal prediction that
g becomes large enough to invalidate perturbation theory at some energy
E below the critical value (18.2.19).

In calculating off-shell matrix elements of operators instead of integrated
cross sections, we also need to take into account the N-factors that appear
in the definition of the renormalized operators whose matrix elements are
finite. We saw in the previous section that if these N-factors are defined
in a conventional way (say, so that the correction factors produced by the
divergent subgraphs are cancelled when the operator carries zero four-
momentum, or is a field on its mass shell) then the formula for the N-
factor involves zero-mass singularities as in Eq. (18.1.12) or Eq. (18.1.16),
resulting in large logarithms at energies £ >> m. The cure is to define
renormalization constants NL“’) at a sliding scale u, so that in matrix
elements of the renormalized operator

v, =N 0 (18.2.21)

the correction factor produced by divergent subgraphs containing operator
() are cancelled at a renormalization point characterized by four-momenta
of order u. If Mg 15 a matrix element of operators that are conventionally
renormalized, and M is one in which the operators are renormalized as in
Eq. (18.2.21), then for any u

Mg = [H (N(@J / fo*))] M(E, X, g.m, i) - (18.2.22)
&

We can again use dimensional analysis (assuming M has dimensionality
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D) and set u = E, to write this as

I1 (N(@) / Ng»‘))] M (I,x, gg,%,l) . (18.2.23)

61

Mg =EP

Thus to find the high energy behavior of an off-shell amplitude Mg, we
need to know how N, varies with the renormalization scale p.

For any two renormalization scales u and 4/, the renormalized operators
N0 and NL?D)(O both have finite matrix elements, so the ratio NL‘?)/ N®
must be cut-off independent. On dimensional grounds, this ratio must
take the form

N NG = G g il fum i) (18.2.24)
Differentiating with respect to i’ and then setting u' = u gives
d 1 |
K N =y Og,m/my ND (18.2.25)
where
d
Y Ng m/u) = [a_z G9g,,z, m/u)J . (18.2.26)
2=
The solution is
E d
N o exp [ / y(@ (gﬂ, %) 7“] . (18.2.27)

This is a useful result because the introduction of the sliding scale prevents
the appearance of zero-mass singularities in N{*) and fo}, and hence also
in G'9 and y'®), Hence as long as g, is small, there are no large logarithms
that prevent the application of perturbation theory to calculate (%, Also,
for u > m, y©Ng,, m/u) has a smooth limit

7 g, = v(e,. 0) . (18.2.28)

As an example, consider the operator ¢ = ¢? in the scalar field theory
with interaction g¢*/24. Instead of renormalizing it so that the correction
factor (18.1.9) is cancelled at p> = 0, we cancel it at a sliding scale p? = 2,
by introducing a new renormalized qb2 operator N£¢2}qb2, with

2
NG = et =14 8 ' dx |n A —1
K 32n2 Jo m 4 w2x(1 — x)

+O(g2).
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Then the function (18.2.24) for this operator is
’ N(‘f’z) 1 2 25(1 —
(@) H_E)E_u’,_zl 8u/ in | 7 X1 —x)
G (g’“’ i N MY 0 dx In m? 4+ u2x(1 ~— x)

+0(g}).

(We can use g, here mstead of g or g,y because the difference only affects
the terms of order gﬂ or higher.) From Eq. (18.2.26), we have then

(¢2) / H X(l — X) )
Y (g‘" ) 16n e+ x(l—x) X T 06w

or for u > m,

2
y9)(g,) = 1?‘2 +0(g2) . (18.2.29)

Another good example is provided by the N-factor associated with the
renormalization of the electromagnetic field in quantum electrodynamics.
Recall that the photon propagator can be made finite for all momenta by
cvaluating it for renormalized electromagnetic fields, or equivalently by
multiplying the propagator of the unrenormalized field by Z;!

Ape(@) = Z5 A (q) - (18.2.30)
Eq. (10.5.17) shows that this renormalized propagator may be written

As(q) = = ie}’f[;{ﬂ_ ] + q,qs-terms . (18.2.31)

Suppose we instead define a renormalized field N(A AP, whose propagator

has a term proportional to 7,/ [q% — ie] w1th a coefﬁcn:nt that is equal
to unity at a sliding renormalization scale g2 = . For this purpose, we
must clearly take

NA =z 1 — n(u)) 2. (18.2.32)
Using Eq. (11.2.22), the function (18.2.24) is then
2.11/2
1—n(u?)
~— n(u?)
m? + u?x(1 — x)
=1-—- ] dxx(1 —x)In [mz A= x)
+ O(eu) (18.2.33)

and so Eq. (18.2.26) gives

2

e 1 x2(1 _ x)ZNZ
“ =& o). (182
ewm/i = =52 [ dx Al oy 0D (18239

G (g, i/ pm/p) = {
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As promised, this has a smooth limit for y > m

2

(44
Y (e,) = YW (e, 0) = — 12!; S+ O(Qfe)- (18.2.35)

As already mentioned, electrodynamics is a special case, because the

renormalization constant Z; "2 in the definition of the renormalized elec-
tromagnetic field is just the reciprocal of the constant used to define the
renormalized electric charge of the electron: ez = 23.1/ ?¢. The natural

definition of the renormalized electric charge at a sliding scale u is then

e, = NV le = ZANW-1gp (18.2.36)

so that e, times the field N{Y4# renormalized at scale u is independent
of u. From Eq. (18.2.25) we see that the function B(e) which gives the u
dependence of e, according to Eq. (18.2.9) for i >» m has the value
3
— Ay € 5

B(e) = —eye) = 151 T0@). (18.2.37)
Using an earlier calculation’® of the fourth-order term in the vacuum
polarization function n(g%), Gell-Mann and Low were able also to give
the term in f(e) of next order in e:

(:'3 eS .
Ble) = 15 + g3 + 0(e). (18.2.38)

In other words, the electric charge at a sliding scale u satisfies the renor-
malization group equation

d, G o 18.2.39
uﬂe‘” 1272 + 64r? +0te,) (18.2.39)
This shows, for small e,, that e, increases with increasing p.

We also need an initial condition. This is provided by the known
value of the conventionally renormalized charge egp = Z;/ 2e, for which
a=e}/4n = 1/137.036.... Eqs. (18.2.32) and (18.2.36) yicld

172 /
er/ey = Zs/ N,SA} =/ 1—n(u?)

2l 2x(1 — x
= _—RZ[J dx x(1 — x)In [1+u(m2)] + O(eg) -

4r :

(18.2.40)

We need to match this with the solution of Eq. (18.2.39) at a value of u
which is large enough to justify the approximation u > m, in (18.2.39) but
small enough so that the logarithm in Eq. (18.2.40) is still small enough
compared with 4n?/e% to justify the use of perturbation theory. (For
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instance, we might take u to be of order 100 MeV.) For such values of g,
Eq. (18.2.40) gives

eR

12n2

On the other hand, the solution of Eq. (18.2.39) for e, small (keeping only
the leading term on the right-hand side) is

ey =~ er + In — — = (18.2.41)

u 5}_

~1,2
e, = |constant — %} . (18.2.42)
Comparing Eqs. (18.2.41) and (18.2.42) gives the solution
5 ~1/2
€R T} 5
e, = e [1 ~ e (ln (E) — 6)] : (18.2.43)

Unlike Eq. (18.2.41), Eq. (18.2.43) is valid as long as eﬁ/finz is small,
whether or not (e%/6n%)In (u/m,) is small.

For instance, we have already seen in Section 11.3 that the leading
fourth-order radiative correction to the magnetic moment of the muon can
be obtained by multiplying the second-order (Schwinger) term (11.3.16)
by the vacuum polarization function 7.(k?) at k* ~ m’, which according
to Eq. (18.2.40) is the same (to this order) as using e7, /4= in place of « in
the Schwinger term.

Another example: Experiments at high energy electron—positron collid-
ers such as LEP at CERN or SLC at SLAC now study physical processes
at energies of the order of the mass of the Z° particle, or 91 GeV,
Eq. (18.2.43) shows that at these energies, radiative corrections in pure
quantum electrodynamics should be calculated using a value for the fine
structure constant which is not « = 1/137.036 but rather

¢2(91 GeV) _ o 1
4n 1=2(11.25)a/3n ~ 1346
This is for a theory in which electrons are the only charged particles with

masses below mz. In the real world there are many such particle types,
and the effective fine structure constant* at mz is (128.87 &+ 0.12)~1.

(18.2.44)

¥ %k ok

The sliding scale at which the coupling parameters of a theory are cal-
culated may be the value of an external field rather than the momentum
of an external line. In one of the early applications of the renormaliza-
tion group method, Coleman and E. Weinberg?® considered the effective
potential V(¢) for a spacetime-independent external scalar field ¢. In the
simple case where the field interacts with itself alone, their one-loop result
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is given by Eq. (16.2.15). Tt is particularly interesting to consider this
potential in the case where the renormalized mass mg vanishes, where to
one-loop order we may set 1>(¢) in the last term equal to gr¢p?/2, so that
Eq. (16.2.15) here reads (with g a slightly redefined coupling):

g2 c,b4 In qbZ

563 (18.2.45)

V($) = r+ 220" +

This looks like at first sight as if for g > 0 the potential becomes less than
Ar for very small ¢, so that the point ¢ = 0 is a local maximum instead
of a minimum, but for such small values of ¢ the third term is larger than
the second, and the perturbation theory is obviously untrustworthy. Also,
we would like to be able to argue that g must be positive in order for the
potential to be bounded below at large fields, but Eq. (18.2.45) shows that
however small g is, there is some sufficiently large ¢ where perturbation
theory breaks down, and hence Eq. (18.2.45) cannot be trusted to tell us
whether the potential is bounded below at large fields.

We can do much better by using a coupling constant defined at a sliding
scale u of field strength. Suppose we define a coupling g, by the condition
that

Bu

= g + 24
Vu) R+ 54

(18.2.46)

If we had used g, as the coupling parameter from the beginning, then in
place of Eq. (18.2.45) we would have obtained

2 1.4 2
_ 8u 4, Buf ¢
Vi{g) = Ar + 24q§ + 7563 ln(uz) , (18.2.47)

which obviously satisfies Eq. (18.2.46)." The renormalization group equa-
tion for g, can be obtained from the condition that this effective potential

" Eq. (18.2.47) differs from what we would get from Eq. (18.2.45) by simply using
Eq. (18.2.46) to express g in terms of g, in that the last term is proportional to gi

rather than g? The difference is of higher order in g, but can become significant if
V(¢) is evaluated at ¢ very different from g, where large logarithms can compensate
for powers of coupling. If we use g, as the coupling parameter from the beginning and
take i to be of order ¢ then no such large logarithms occur, and the approximation
Eq. (18.247) is valid as long as g, remains small.
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is independent of g,

dg,, 3g§
oK , 18.2.48
# du  16n2 ( )

(Terms involving the derivative of g% are dropped here, because they
are of higher order in g, and are hence negligible as long as gy 18
sufficiently small.) It is not a coincidence that this takes the same form
as the renormalization group equation (18.2.9), (18.2.12), where u was a
renormalization momentum, because as we shall see in the next section
the first two terms in the renormalization group equation are always
independent of the way that we define the sliding scale. The solution
of this equation is given by Eq. (18.2.17), in general with a different
integration constant M. Hence by taking u = ¢ in Eq. (18.2.17), we now
have

32 214
V($) =k — 57 (;sz) . (18.2.49)
32n° (18.2.50)

8 = T 3In(¢?/ M)

This result should be used with some care, because it is only valid
where the coupling constant g4 is small. The problem is not just that
Eq. (18.2.49) loses its validity for ¢ near M; we also cannot integrate the
renormalization group equation through the singularity at ¢ = M, so a
knowledge of g4 on one side of this singularity tells us nothing about its
behavior on the other side.

If g4 is found to have a small positive value for some ¢y then from
Eq. (18.2.50) we know that M > |¢ol, s0 g4 remains small and Eq. (18.2.49)
1s valid for |¢| < |¢g|. This shows that the point ¢ = 0 is a local minimum
of V(¢), contrary to what Eq. (18.2.45) might have led us to suppose.
This means that the vacuum which is invariant under the symmetry
transformation ¢ — —¢ is stable in this model, aside from the possibility
of quantum mechanical barrier penetration. On the other hand, we do not
know that Eq. (18.2.49) becomes valid for |¢| sufficiently large compared
with M. The coupling might remain too large to use perturbation theory
for all |¢| > M, and even if it becomes small for some |¢| > M, the
potential might be given for such ¢ by Eq. (18.2.49) with a renormalization

™ To eliminate all cut-off dependence, ¢ should be written in terms of a renormalized
field ¢, = N;{’qb, which gives V(¢,) a u dependence arising from the u dependence of

the renormalization constant N;{’. This point is ignored here, because in the scalar field

theory with interaction oc ¢* the lowest-order graphs contributing to the u dependence
of N¢ have two loops, so that to the order of the calculations presented here we can

take Nﬁ’ =1.
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scale M' > ¢, producing a second singularity. Thus in this case we cannot
conclude that V(¢) —» —o for |¢p| — 0.

Similarly, if g4 1s found to have a small negative value for some ¢ then
we know that M < |¢yl, so g4 remains small and Eq. (18.2.49) is valid for
|¢| > |¢o|. In this case we cannot conclude anything about the behavior
of the potential for |¢| < M, but here we can use Eq. (18.2.49) to see that
V{¢) = —0 for |¢p| — oo, ruling out the possibility of any stable vacuum.
Because we are here considering the limit |¢p| — oo, this conclusion holds
also for scalar ficlds of mass m > 0, provided m < |¢¢|. This is why it is
necessary to assume that the ¢* coupling (renormalized at any scale much
larger than the scalar mass) is positive.

18.3 Varieties of Asymptotic Behavior

The renormalization group method provides useful insight into the types
of possible asymptotic behavior that are encountered in quantum field
theories, even in cases where the running coupling g, does not remain
small enough to allow the use of perturbation theory. We will distinguish
four different ways that g, may behave for u — oo, that correspond to
four different shapes of the function f(g) in theories with a single coupling
constant. In the next section we will take up the case of theories with
several independent couplings.

Let’s first recall the results for B(g) obtained for the two examples
considered in the previous section. One of these is the scalar field theory
with interaction g¢*/24, for which the beta-function for small g is

g2 18 g
B®) = (o1~ 3 (1emr  O&") (183.1)
The other is quantum electrodynamics. Instead of writing the beta-
function here in the form (18.2.38), we will emphasize the similarities
between this theory and the scalar field theory by writing

g=é?, (18.3.2)
with f(g,) now understood to be pdg,/du, so that for small g
3 3
_ e € 7
Ble)=2¢ 150 T gqm T O

g’ g’ 4

Note that in both cases the physically allowed coupling constants fall in the
range g > 0, where fi(g) > O for small g. In electrodynamics this is simply
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(a)

Figure 18.4. Schematic representation of four possible forms of the function
B(g). For such forms of f{(g), the running coupling g, would: (a) approach
infinity at a finite value of u; (b) continue to grow as u increases; (c) approach a
finite limit g. for p — o0; (d) approach zero for u — .

because the reality of the Lagrangian requires e to be real. In the scalar
field theory, as we saw at the end of the previous section, it is necessary to
have g > 0 in order to have any stable vacuum state. However, there are
other examples that have f(g) < 0 for g = 0. For instance, we can consider
a scalar field theory with interaction Hamiltonian —g¢*/24, with g taken
positive. This may be unphysical, but stability problems will not bother
us as long as we stick to perturbation theory. Eq. (18.2.9) shows that if we
redefine g — —g the beta-function undergoes the change f(g) — —f(—g),
s0 our previous result that f(g) = 3g?/16n? + O(g?) for an interaction
gd* /24 now gives

B(g) = —3g*/16n" + O(g”) (18.3.4)

for an interaction Hamiltonian density —g¢*/24. Of greater relevance to
physics, we shall see in Section 18.7 that non-Abelian gauge theories with
not too many spinor fields have § < 0 for small positive gauge coupling
constants. In what follows we will always define the coupling g so that
g = 0, but we shall consider the cases of f(g) either positive or negative
for small g.

Now let us turn to our list of possibilities. (See Figure 18.4.)
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(a) Singularity at Finite Energy
Suppose that #(g) > 0 for small positive g (as is the case for Eqs. (18.3.1)
and (18.3.3)), and that f(g) remains positive and continues to rise suffi-
ciently rapidly with increasing g, so that the integral [* dg/f#(g) converges:
joe] dg

B <% (18.3.5)

Then g, will move steadily away from g, = 0, and Eq. (18.2.10) shows
that g5 must become infinite at a finite value of E:

Ec = p ex ( " dg) (18.3.6)

” HERP Bn ﬁ(g) , o
where u is any renormalization scale with u > m. We saw an example
of this phenomenon in the previous section; if the lowest-order formula
B(g) = 3g%/167” for the beta-function in the scalar field theory were
taken as exact for all values of g, then the running coupling (18.2.17)
would become infinite at the energy (18.2.19). Similarly, if the lowest
order formula (g) = g?/6n° (with g = ¢?) for the beta-function in spinor
quantum electrodynamics were taken as exact for all g, then the energy
(18.3.6) at which gr and eg become infinite would be

Ey, = pexp(6n°/g,). (18.37)

Using Eq. (18.2.43), we may express this in terms of the conventional
renormalized charge:

6m* 5 2 646.6
Eyx >~ m, exp (g + 3 + O(eR)) =€ M. (18.3.8)
Of course, the approximation that f(g) = g?/6xn° will break down before
this energy is reached, so all we can say with confidence is that egp will
become large enough to invalidate perturbation theory at some energy E
below E.

(b) Continued Growth
Now suppose that in some theory f(g) remains positive definite for
g — oo, but rises slowly enough (or decreases) so that [*dg/B(g) is
divergent. The coupling constant gr then continues to increase as E — oo,
but becomes infinite only for E = co. Furthermore, the leading term in the
asymptotic behavior of gg for E — o0 is independent of the conventionally
renormalized coupling. For instance, if f(g) behaves for large g like hg*
with b > 0 and k < 1, then the solution of Eq. (18.2.9) is
E11/(1=k)

ge= |1+ (1—k)bgt'In . gy (18.3.9)
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If g, is small for some p (say, of order m) then the growth of gg is
seen only at energies which are exponentially large compared with this .
However, in the extreme high energy limit the coupling grows according
to

ge — [(1—k)b In E]Y/00) (18.3.10)

a limiting behavior independent of g,!

(c) Fixed Point at Finite Coupling

Suppose next that f(g) remains positive-definite for 0 < g < g., but
drops to zero at g = g. and is negative thereafter. Then Eq. (18.2.9)
dictates that as u increases g, will increase for g, < g. and decrease for
gu > g», In either case approaching the fixed point g. for p — co. If the
zero of f(g) at g. is simple, then in the neighborhood of this point we
have

p(g) > a(g.—g) for g — g- (18.3.11)
with a > 0. The solution of Eq. (18.2.9) is then
g —gu o . (18.3.12)

(The behavior of type (b) described above may be regarded as the special
case where the fixed point g. is at infinity.) Also, y(g) for a general
operator ¢ may be expected to behave smoothly near g.:

y(g) = (g+) + clgs — )+ 0 (g — 0)) . (18.3.13)

(We are here dropping the label ¢ on y and ¢.) Hence in matrix elements of
this (and perhaps other) operators, we encounter a factor (see Eq. (18.2.27))

E
Ng' ocexp [—/ 7(8) d;‘] o E778) [1 + O(E™%)] . (18.3.14)

The product of the factors E~7¢*) can be lumped together with the factor
E? in Eq. (18.2.23), with the result that the whole matrix element goes as

Mg o« EP | (18.3.15)

where the dimensionality D. is calculated adding an ‘anomalous dimen-
sion’ —y(g*) to the actual dimensionality of each operator appearing in
the matrix element.

(d) Asymptotic Freedom

In the examples that have been discussed so far, §(g) was positive for
small positive g, so that g, is driven away from g = 0 as u increases.
Suppose that for some other theory B(g) is negative for small positive g.
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Then
B(g)— —hg", (18.3.16)

where b > 0. Here n is the order of the lowest-order diagrams that
contribute to f(g), and hence is always an integer greater than unity. (In
the theories used as examples here, #n = 2.) The solution of Eq. (18.2.9)
here is

E1-1/-1)
g = gu L+ b(n—1)gi ' In " . (18.3.17)

For E — oo, this has a limit independent of g,:

ge — [b(n— 1)In E]7V/01 (18.3.18)

Since this gives a vanishing gg for E — oo, we can trust perturbation
theory in this limit, provided only that gg for some finite E is within
the region around g = 0 where g and B(g) have opposite signs. The
anomalous dimensions y'®) of various operators ¢ are expected to have
the weak-coupling behavior (dropping the label @)

y(g) — cg™, (18.3.19)

where m is the order of the lowest-order diagrams that contribute to
the renormalization of the operator, and ¢ is a real constant that can
be positive or negative. The asymptotic behavior at high energies of the
factor introduced into matrix elements by renormalization of this operator
1s then

[ fE du
Nit o exp | = [ 9(g
B
— exp —c/ [b(n — 1)1n g~/ (*—1) an
i H

[ c[b(n — 1)} /D)
(1—m/(n—1))

oC exp

(In E)l-m/(“”J (18.3.20)

except that form=n—1
Nt oo (In Ey=/P0—1) (18.3.21)

We see that in the case of asymptotic freedom there are no corrections
to those effective dimensionalities that determine the powers of energy
appearing in the asymptotic behavior of the matrix element, but this
asymptotic behavior is instead modified by powers of In E.

For a toy model that exhibits asymptotic freedom, we can use the scalar
field theory with interaction Hamiltonian density —g¢*/24, with g taken
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positive. Eq. (18.3.4) here gives the parameters of Eq. (18.3.16) as

h=13/16n", n=2, (18.3.22)
so Eq. (18.3.17) gives, for E — oo,
3lnE]!
gE — [1611:2} , (18.3.23)

Also, the operator ¢? in this theory has an anomalous dimension given
by Eq. (18.2.29) as

y(g) = 16 —— +0(g%). (18.3.24)
Hence Eq. (18.3.19) applies here, with
=—1/167%, m=1. (18.3.25)

Each ¢? operator in a matrix element therefore contributes a factor given
by Eq. (18.3.21) as

Nz'o (In E)'/3. (18.3.26)

The scalar field ¢ itself in this theory has y(g) oc g?, and hence m = 2, so
each ¢ operator in a matrix element therefore contributes a factor given
by Eq. (18.3.20) as

1
Niloc140 (m E) (18.3.27)

We will see another, more physical, example of asymptotic freedom when
we take up quantum chromodynamics in Section 18.7.

In all cases where gg can be extended to infinite energy, its behavior
in this limit turns out to be independent of the renormalized coupling
gr. However, this does not necessarily mean that the theory involves no
arbitrary dimensionless parameters. In all cases, in order to describe how
g approaches its limit for E — oo, we need to specify a free parameter 4
with the dimensions of energy. For case (b), Eq. (18.3.10) may be written

gr — [(1— k)b In(E/2)]V9)
For case (c), Eq. (18.3.12) may be written
PR
gk — g8« [1-—(E) ] .
Finally, for case (d), Eq. (18.3.18) may be written
ge — [b(n— 1) In(E/2)] 7/
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Such theories in general do have a free dimensionless parameter: the ratio
of 4 to the mass m. Coupling constants like ez that are renormalized at
scales tied to m may be expressed as functions of m/A. It is only when
all masses 1n a theory vanish that we can say that the theory has no free
dimensionless parameters.

Of the four types of asymptotic behavior described here, types (a) and
(b) lead to the apparently unphysical behavior that the running coupling
gr becomes infinite, either at a finite energy (case (a)) or for E —
(case (b)). This does not in itself mean disaster: we have to look at how
the coupling is defined. For instance, if g, drops smoothly from a finite
value g, at u = m to zero for 4 — oo, and we define a new coupling
8. = g,/[1 — g,/82m), then g, becomes infinite at u = 2m, but this is
just an artifact of this particular choice of coupling parameter. However,
the conventional renormalized couplings g, in both the ¢* scalar field
theory and quantum electrodynamics have been defined here in terms of
the values of matrix elements at energies of order u. Specifically, g, in
¢?* scalar field theory is defined as the invariant Feynman amplitude A
for scalar-scalar scattering at s =t == yu = p?, where A4 is supposed to be

analytic. Also, g, = ei in spinor electrodynamics is given by

-1
elfek = Z3 NP = [1—n(uh)] . (18.3.28)

An infinity 1n ei at a point u, would therefore produce a pole or other
singularity in the renormalized photon propagator at a positive value of
p?, that is, at p> = u2,, where the propagator is supposed to be analytic.
Thus, with g, as defined here, the type of asymptotic behavior described
in case (a) is ruled out physically.

How then do our various quantum field theories behave? Years ago,
Landau*® argued that in quantum electrodynamics the increasing powers
of In(E /M) encountered at each order of perturbation theory would add
up to give singularities (so-called ‘Landau ghosts’) at finite values of E.
In modern terms, Landau could be said to have discovered possibility (a)
above, but he did not give any argument against cases (b) or (c).

Nevertheless, there is today a widespread view that interacting quantum
field theories that are not asymptotically free, like quantum electrodynam-
ics or the scalar field theory with ¢* interaction, are not mathematically
consistent. [n quantum electrodynamics there is some evidence against
case (c), the existence of a finite fixed point e.. Such a fixed point
would only be possible® if non-perturbative effects changed the qualitative
nature of the operator product expansion, the subject of Chapter 20, or
if there were a non-perturbative renormalization of the triangle anomaly
discussed in Chapter 22. But even if case (c) is indeed ruled out in quan-
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tum electrodynamics, there is still the possibility of case (b), a fixed point
at infinite coupling.

Most of the evidence against the consistency of interacting non-
asymptotically free quantum field theories comes from the study of the
scalar field theory in four spacetime dimensions with ¢* interaction, quan-
tized on a finite spacetime lattice. There are rigorous theorems* to the
effect that this theory (with arbitrary dependence of the parameters of
the theory on lattice spacing) does not have an interacting continuum
theory as its limit for zero lattice spacing unless the theory is asymptot-
ically free, which of course is contrary to what 1s found for this theory
in perturbation theory. This argument also seems inconclusive. [t is true
that if there were a consistent continuum scalar field theory that is not
asymptotically free, then it would be possible to construct a lattice theory
by integrating out the values of the scalar field at all points except on a
spacetime lattice. But this would not be the lattice theory that is considered
in these theorems. It would be a lattice theory with every possible coupling
allowed by symmetry principles — not just a term proportional to ¢?,
but also terms proportional to ¢®, ¢3O¢, etc, with coefficients having a
dependence on the cut-off (the inverse lattice spacing) governed by the
Wilson renormalization group equations discussed in Section 12.4. No one
has proved anything about the continuum limit of such a theory.

If it 1s really true that there 1s no interacting continuum scalar field
theory in the limit of zero lattice spacing, then we must encounter some
obstruction when we try to solve the Wilson renormalization group equa-
tions, which for weak renormalized couplings would have to be at very
small lattice spacings. Such a theory would appear like an interacting
continuum field theory unless examined at very short distances. The
renormalized coupling constant in this approximate continuum theory
presumably has a singularity at finite energy, as in case (a) above, so that
it too breaks down at short distances. (But for strong couplings there is no
direct connection between the forms of the Wilson and Gell-Mann-Low
renormalization group equations, so the existence of a singularity in the
bare couplings at finite lattice spacing does not necessarily imply a singu-
larity in the renormalized coupling constants at a finite renormalization
scale.)

Theories of this sort are sometimes called trivial, either because, under
various assumptions about the bare couplings of the theory quantized on
a lattice, the continuum limit turns out to be a free field theory, or because
the only way to make a continuum theory of type (a) physically satisfactory
at all energies is to adopt the solution g, = 0 of the renormalization group
equation (18.2.9). Even if a field theory is trivial in either sense, there is
no reason not to include it as part of a realistic theory of physical
phenomena. The existence of an obstruction to the solution of the Wilson
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renormalization group equations for a field theory at very small lattice
spacings is not important if in the real world there are other fields that
must also be taken into account at such short distances. Similarly, the
fact that a given quantum field theory has unphysical singularities at some
large energy E, is not a physical problem if the theory in question is only a
low-energy approximation to a larger theory, an approximation valid only
at energies far below Ey. In particular, long before we reach the energies
near (18.3.8) where quantum electrodynamics could be expected to become
singular, it becomes necessary to take even gravitation into account, and
no one knows how to calculate the effects of strong gI'dVltdthIlal forces
at such energies.

Despite these reassuring remarks, it is possible that in order to avoid
unphysical singularities, all our separate quantum field theories like spinor
quantum electrodynamics will eventually have to be integrated into an
asymptotically free theory. Fortunately, the question of whether a theory
is asymptotically free for some finite range of coupling constants can be
settled by perturbative calculations: if f(g) is negative as g — O+, then
the theory is asymptotically free for all renormalized couplings g, lying
between zero and the first zero of B(g).

% % %

In this connection, it is worth noting that although the detailed form of
f(g) depends on the gauge and on precisely how the running coupling is
defined, the first two terms in the power series for f(g) do not. Suppose
we have two definitions g, and g, of the running coupling, perhaps
employing different definitions of the renormalization scale u or different
gauges. Since both g, and g, are dimensionless and cut-off independent,
there is no way that g, for s > m can depend on anything but gy

Bu=E8(gu).
We then have
B =u g 5= B )
and so
R(@) = dg(g) B(g). (18.3.29)

As long as we are sticking to the same definition of the unrenormalized
coupling, all renormalized couplings are equal in lowest order, so the
power series for § in terms of g may be written

gg)=g+ag’+0(g?
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or, equivalently,
g=g—a’ +0@").

The derivative is

4

i —1+2ag +0(gh) =1+2a8 +0@EY.
Also, for the couplings we have been considering here (including g = ¢?)
the power series for f(g) takes the form

B(g) =bg’ +b'g’ + 0(g*
or in terms of
B(@) = bg* + (b —2ab) & + O(&").
From (18.3.29), we have then
B(g) = 1 +2a3* + 0@ [bg® + (b — 2ah)g* + 0(2")]
= b3’ +b'3® + 0(3%. (18.3.30)

We see that the first two terms in the power series for § in terms of # have
the same coefficients as in the power series for f in terms of g. However,
this is definitely not the case for the higher-order terms. In fact, it is
always possible to choose the function g(g) so that all terms in j(&) of
higher than third order in § vanish, so we can describe the asymptotic
behavior of 3 for E — oo by inspection of the first two terms in the
perturbation series for f(g). But this is of little value, since we would
need to carry our calculations to all orders to determine how g depends
on g, and without this we cannot use our knowledge of the asymptotic
behavior of § to say anything about the asymptotic behavior of g, or of
physical quantities.

The same argument that led to Eq. (18.3.30) shows that, at small
coupling, the Wilson renormalization group equation for the bare coupling
constant as a function of lattice spacing for inverse lattice spacings greater
than particle masses is the same as the Gell-Mann-Low renormalization
group equation for the renormalized coupling constant as a function of
renormalization scale for scales greater than particle masses. Hence if a
continuum theory is asymptotically free, then there will be no obstruction
in passing to the continuum limit of the theory quantized on a lattice.

18.4 Multiple Couplings and Mass Effects

Up to now, we have considered theories with only one dimensionless
coupling g. It is easy to extend the formalism to incorporate several such
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couplings g?: for each g/, we have a renormalization group equation that
for > m takes the form

d
¥p g’ (1) = B’ (g(w), (18.4.1)

with each p¢ depending in general on all the gs. There are now many
more possibilities for the asymptotic behavior of the g/(u) as u — o0, in
a given theory we may have some trajectories in g-space that go off to
infinity, at finite or infinite values of p, other trajectories that approach
fixed points, and yet other trajectories that approach closed curves known
as ‘limit cycles’. To get a taste of some of the various possibilities, let’s
consider the behavior of g’(u) near a fixed point.
Eq. (18.4.1) has a fixed-point solution g’ (u) = g/ if

B (g")=0. (18.4.2)
In the neighborhood of this point, Eq. (18.4.1) becomes
d :
kg [0 =8 =37 M [ —gt] (18.43)
k
where M is the matrix
OBt
My = [ B (f)] . (18.4.4)
08 g=g-

The solution can be expanded in eigenvectors of this matrix

g =gl + > en Val i, (18.4.5)

where V,, 1s a eigenvector of M with eigenvalue 4, (normalized in any
convenient way):

ST MOV = Vil (18.4.6)
k

and the ¢, are a set of expansion coefficients.” (The summation convention
1s suspended in this section.)

Eq. (18.4.5) shows that the coupling constants approach the fixed point
as u — oo if and only if ¢,, = 0 for all eigenvectors with 2, > 0. (For
simplicity we are assuming here that none of the eigenvalues vanish.) Thus

* We are assuming here that the eigenvectors V,, form a complete sct. This is not always
so, but it is the generic case; the eigenvectors of a finite matrix M will form a complete
set if all of the roots of the secular equation Det (M — il) = 0 are different. A matrix
whose eigenvectors do not form a complete set can be regarded as a limiting case of
a matrix with a complete set of eigenvectors when some of its eigenvalues become
degenerate.
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in general the trajectories that are attracted to the fixed point lie on an
N_-dimensional surface, where N_ is the number of negative eigenvalues
of M; the tangents to this surface at g. are the eigenvectors with negative
eigenvalues. Trajectories that are not on this surface may approach
close to the fixed point, but are eventually repelled, predominantly in the
direction of eigenvectors with the largest positive eigenvalues. Of course,
if all eigenvalues are negative then there is a finite region around the fixed
point within which all trajectories converge on this point.

Since the eigenvalues A, are evidently important in learning the asymp-
totic behavior of trajectories that approach a fixed point, it is useful
to note that these eigenvalues are independent of the definition of the
couplings. Suppose we introduce a new set of couplings &7, defined as
functions of the gs. These satisfy renormalization group equations

d 08’ =
=3 B e = ),
H " J g=g(u)
SO
-y g’
o= 2. (18.47)

(That is, 8 transforms as a contravariant vector in coupling-constant
space.) Differentialing, we have

op‘(®) ogm g o8’ ap™(g)
Z 6gm 5gk "‘Z 6gm6gkﬁ (g)—'—z agm agk :

m

m m

At a fixed point g. the first term on the right vanishes, so this gives the
matrix equation

MS=SM, (18.4.8)
where
. A
MY = a—{jk , (18.4.9)
198" Ja=p(0)
-
s, = | & (18.4.10)
dgk
L _g:g-

As long as the transformation g — g is non-singular, Eq. (18.4.8) is a
similarity transformation, and hence M and M have the same eigenvalues
A

The renormalization group formalism may be extended to non-
renormalizable as well as renormalizable theories. As explained in Sec-
tion 12.3, the infinities in non-renormalizable theories are eliminated by
a suitable renormalization of coupling constants and masses, just as in
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renormalizable theories; the only difference is that in non-renormalizable
theortes the Lagrangian must be supposed to contain all possible interac-
tions allowed by the symmetries of the theory. If g§ is the unrenormalized
coupling constant multiplying an operator of dimensionality D, in the
Lagrangian (that is, a product of fields and spacetime derivatives of fields
whose dimensionality in powers of mass or energy is D/}, then gf.; will
have a dimensionality A, = 4 — D,. We may then re-express the bare
couplings in terms of a set of dimensionless renormalized couplings g/(u)
and a cut-off A, through relations of the general form

¢ = i |/ (1) + 3V iom " (1g™ (1) In (’;) +0(g(u)3)] . (184.11)
k.m

with the dimensionless numerical coefficients b4, and similar coeflicients
in higher-order terms chosen to cancel the cut-off dependence of physical
quantities. (In some theories the leading term might be trilinear or even
higher order in couplings; the modifications that would be needed here
are obvious.) From the requirement that gg be cut-off-independent, we
obtain the renormalization group equation (18.4.1), with

Bl(g)=—Ag’ = > b,g" g™ +0(g"). (18.4.12)
k.m

Non-renormalizable interactions are those with D, > 4, or Ay < 0, so
as long as the g‘(u) all remain sufficiently small we expect the non-
renormalizable renormalized couplings to have positive 7 and hence to
grow with g, but no one knows what happens when the couplings become
large enough to invalidate perturbation theory.

However, as explained in the next section, even theories with infinite
number of independent parameters commonly have fixed points g. at
which the number N_ of negative eigenvalues of the matrix (18.4.6) 1s finite,
just as it is at zero coupling. (In particular, often N_ = 1.) Where N_ # 0,
the fixed point lies on an N_-dimensional critical surface, consisting of
trajectories thal are atlracted into the fixed point as y — «. A non-
renormalizable theory with coupling parameters on such a critical surface,
although not of course asymptotically free, is said to be asymptotically
safe,’ because the renormalized couplings remain finite for large values
of u. The condition of asymptotic safety in such a theory would play the
role that used to be associated with the principle of renormalizability, of
eliminating all but a finite number of free parameters, the coordinates of
the critical surface.

In a renormalizable theory, all physical quantities are made cut-off-
independent by adjusting the cut-off dependence of a finite number of
bare couplings. These bare couplings may be expressed in terms of an
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equal number of u-dependent renormalized couplings, and the condition
that the bare couplings are u-independent yields renormalization group
equations relating only these renormalized couplings. From the broader
point of view which allows non-renormalizable as well as renormalizable
couplings, a renormalizable theory just corresponds to a finite-dimensional
invariant surface in the infinite-dimensional space of all renormalizable and
non-renormalizable theories; that is, il is a surface for which §%(g) at any
point g on the surface is tangent to the surface at that point.

So far in this section we have tacitly assumed that u > m, so that we
could neglect the dependence of 87 on m/u. However, this is not necessary;
we can if we like treat a mass as just another coupling parameter.®
That is, all renormalized couplings can be defined as before in terms of
various Greens functions at off-mass-shell momenta of order u, but now
evaluated with all bare masses zero. The dimensionless renormalized mass
parameters for Dirac fields v or scalar fields ¢ may be defined as

my(p) = NOY(A/u)™" my, pare(A)/u (18.4.13)

m3(u) = NA/ )™ md pare(A)/i?, (18.4.14)

where N(O(A/yu) are the dimensionless constants which, when multiplied
into corresponding operators ¢, cancel the infinities in the matrix elements
of these operators, also evaluated with all bare masses zero. (See Section
18.1.) These new renormalized masses and couplings have no direct
physical significance, but the true physical masses and all physical matrix
clements can be expressed in terms of them. These matrix elements take
the form of sums of matrix elements for zero bare mass, with any number
of insertions of the renormalized mass operators N¢9¢? and N®¥)py,
times the corresponding renormalized mass parameters.

In this renormalization scheme the beta-functions for the various cou-
plings are obviously mass-independent, and the beta-functions for the
mass parameters are proportional to these parameters, with coefficients
that depend on all the various couplings; using Eq. (18.2.25), we have

d

N@mw(ﬂ] = [_1 - ?tj}:p(g#)] mu*(u) > (18415)
d

B malh) = =2 = g2(g)] my(h) - (18.4.16)

For instance, we noted in Section 18.2 that in the scalar field theory
with Lagrangian (18.1.2), the mass operator ¢ has anomalous dimension
(18.2.29) for m = Q, so here

d oo~ Eu 2 2
u&;m‘ﬁ(u) = =2+ Ton2 +0(g,) 1 my(p) - (18.4.17)
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Also, Eq. (11.4.3) shows that the effect of higher-order corrections to the
electron propagator 18 to replace the electron mass by m, — Z°(p, m.), so
the effect of these corrections on matrix elements of the operator .y,
between one-electron states of four-momentum p# is to multiply them by

a factor
ox (p,m
Py =1- (SR
me m,=0

The renormalization constant N¥¥ for the operator .y, is therefore equal
to F~1(p), evaluated with p? equal to some renormalization scale, say +u°.
According to Eq. (11.4.8), to one-loop order this is

N®w) — | 4 (azlloop(pe me))
ome 2
=0, p? =4
B (2::)4] dxln {” (A )(1—x)}
e A2
e [1“ (ﬂ ) - 1] (18.4.18)

where A is an ultraviolet cut-off,”™ and we take the limit A > u. The
anomalous dimension of the operator .y, is therefore given by (18.2.25)
as

_ d 2
y ) = e In N®V) = 5 ;‘2 +0(ehy, (18.4.19)
so Eq. (18.4.15) here reads
d € 4
pgamelt) = | =1 = 555+ 0(el) | me(u) (18.4.20)

The same formula holds in general gauge theories, with e? replaced with
the value of 3,(t,)* for the particular species of fermion in question.

The important difference between the m(u) and the other renormalized
parameters of the theory is of course that bare masses have positive
dimensionality, so as long as the couplings remain small the m(u) all
decrease in magnitude. Our previous assumption that masses may be
neglected as ¢ — oo is justified if in fact m(u) does vanish for g — oo
However this is only known to be the case in asymptotically free theories,
where the couplings all do remain small for y — oo; in all other cases this
assumption 1s just an educated guess.

** This notation is different from that of Eq. (11.4.8), where the ultraviolet cut-off was
called u.
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18.5 Critical Phenomena*

For some purposes we may be interested in the limit of very low rather
than high energies or wave numbers. The arguments of Section 18.2 can
be repeated to study this limit, except that here we must examine the case
g — 0 rather than g — co. This limit is of course simplest if there are no
masses in the theory, as, for instance, in quantum electrodynamics with
a symmetry under the chiral transformation y — ysy which forbids an
electron mass. In this particular case the only renormalizable coupling
eA Py, as well as all non-renormalizable couplings have ¢ > 0 for
sufficiently small couplings, so all trajectories in at least a finite region
around the origin are attracted into the point g© =0 as y — 0.

The same considerations may be applied even to theories with very
small but non-zero masses if we include these masses among the coupling
parameters of the theory, as described in the previous section. The
coefficient A in Eq. (18.4.12) is positive for a mass parameter, so in this
case the trajectories can never reach the point g = 0, but they may come
close if the masses are small.

Of course, even if we can regard some degree of freedom like the
electron field as having zero or very small mass, in the real world there
arc many other degrees of freedom whose masses are not small. The
renormalization group should properly be applied not to the true theory
that encompasses all these heavy degrees of freedom, but to an ‘effective’
field theory, in which only massless or nearly massless degrees of freedom
appear explicitly, with interactions that include the effects of internal
heavy particle lines. (We shall have more to say about effective field
theories in Chapter 19.)

The low wave number limit is of particular interest in the study of
critical phenomena, such as long-range correlations at or near a second-
order phase transition (a smooth phase transition, with no latent heat)
in condensed matter. Because we are interested in the limit g — 0, the
important eigenvectors of the matrix (18.4.4) are those with eigenvalues
A < 0, which are called relevant. The eigenvectors with A =0 and 4 > 0
are called marginal and irrelevant, respectively.

Suppose that there is a non-trivial fixed point g. with just one negative
eigenvalue Ao, perhaps corresponding approximately to a mass operator.
The set of trajectories of g7(u) that are attracted into this fixed point for
u — 0 therefore forms a critical surface of codimension one; that is, a
surface defined by a single condition on the couplings, the condition that

* This section lies somewhat out of the book’s main line of development, and may be
omitted in a first reading.
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for g — g., the tangents g’ — g/ have no components in the direction of
the eigenvector with negative eigenvalue. There is a phase transition as the
physical value of the couplings at any fixed characteristic scale approaches
this surface. Because the critical surface has codimension one, the phase
transition can be reached by adjusting any one parameter on which the
couplings depend, such as the pressure or temperature. The fact that a
wide variety of substances do exhibit phase transitions of this sort shows
that it is common to encounter fixed points for which the matrix (18.4.4)
has a single negative eigenvalue, as already mentioned in the previous
section,

To be specific, as the temperature T approaches its critical value T,
we expect the coefficient ¢ of the growing term 1n Eq. (18.4.5) to become
proportional to T — T,, because there is no reason why it should be
singular or why it should vanish faster than this. Hence for g — 0 and
then T — T, the couplings go as

g'(w) = (T — T Vol u (18.5.1)

where g is the only negative eigenvalue at g., and Vy is the correspond-
ing eigenvector.”” Applying our renormalization group arguments to wave
numbers instead of energies, the N-point function (the Nth partial deriva-
tive of the effective action with respect to a field ¢ of dimensionality [wave
number]?4) at a small characteristic wave number scale x has the form’

[n(x) — kT NCot0@ D Fy (T — To)xcb), (18.5.2)

where y,(g) 18 the anomalous dimension associated with the field ¢, and
d 1s the spacetime dimensionality, or in classical statistical mechanics the
spatial dimensionality. It is convenient to rewrite this in the equivalent
form

In(x) — (T — T,) M= NPstip@ oG (e(T — Ty)l /%) (18.5.3)

This shows for one thing that the correlation length ¢ (the characteristic
length that determines the scale over which the Fourier transform of I'y
varies) increases as T approaches T, like

£oc (T— Ty (18.5.4)

where v is a conventionally defined positive ‘critical exponent’, given by
Eq. (18.53.3) as

y=—1/Jg. (18.5.5)

** Other contributions to the couplings will go as (T - T,)°y" with 4; > 0. Thus
Eq. (18.5.1) is valid here provided T — T, does not go to zero as fast as y*1—7o.

' The function Fy also depends on dimensionless angles and ratios of wave num-
bers. Note that [y has ‘naive’ dimensionality d — NDy because 64(> )" must be
dimensionless.
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Also, the zero-field effective action T'g (or in statistical physics, the free
encrgy) must be x-independent because it corresponds to graphs with no
external lines. It follows that Eq. (18.5.3) here becomes for T — T,:

To— Fooe (T—T.)", (18.5.6)

where the constant Fj is the effective action or free energy due to the heavy
degrees of freedom which have been integrated out. Thus the exponent
v also governs the behavior of the part of the free energy which is not
analytic in temperature for T near T..

In 1972 Wilson and Fisher’ used an expansion in powers of d — 4 both
to show that the theory of a scalar field actually fits the above description,
and also to carry oul an approximate calculation of critical exponents such
as v. Consider a theory with a single ‘light’ degree of freedom, a scalar
field ¢, such as the magnetization in a ferromagnet, with a symmetry
under ¢ — —¢ that rules out interactions odd in ¢. In addition to the
‘mass’ term —g»¢2/2, the Lagrangian density of the effective field theory
will contain interactions —gs¢*/4!, —ge¢®/6!, etc. The dimensionality of
the field ¢ in powers of wave number is (d — 2)/2 (so that [d¥x(V¢)?
should be dimensionless) so the dimensionalities of the couplings g, g4,
g, etc. in d dimensions are +2, 4 — d, 6 — 2d, etc. For the fixed point
at zero coupling in three dimensions, there are two relevant couplings, g2
and g4, but this conclusion is changed by interactions at non-trivial fixed
points. Let’s examine the surface in coupling constant space in which only
g, and g, are non-zero, and take g4 to be small.™" Eq. (18.2.12) gives
Blgs) = 3g3/16n° + O(g}) for d = 4, and Eq. (18.4.12) tells us that for
d = 4 — e dimensions we must add to this a term —egy, so

d 3
g = ez + DY Loy, assy
Also, Eq. (18.4.17) gives
d
pgeal) = |2+ 548 4 0w w1859

Therefore for small e there is a non-trivial fixed point at

16n%e
Zav = 3 g =0, (18.5.9)

" These are the only rcnormalizable couplings for 3 < d < 4, so for such d this is an
invariant surfacc. Note thal we do not include the coefficient of (V¢)* among the

couplings here, because this is a redundant coupling, in the scnsc described in Section
17,
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The matrix (18.4.4) at this fixed point is diagonal, with eigenvalues

4 34
o =MY = —e+ ng42 +0(g2) = +e+ 0, (18.5.10)
Jp =M% =2+ % +O(g) =2+ },E' + O(eY) . (18.5.11)

From Eq. (18.5.10) we see that the coupling g4 is actually irrelevant,
so that there is just one relevant coupling here, signalling the presence
of a second-order phase transition. From Eq. (18.5.11) we see that the
anomalous exponent (18.5.5) is

1 1 € 2
=——==4 —= . 18.5.12
VETL Tt T O(€%) ( )
For the physical value € = 1 the first two terms give v ~ 0.58. Three-loop
calculations®® give this critical exponent to order €7 as
1 € 7¢?

_* < e 3
V=5t 15+ 1gp — 0019047, (18.5.13)

which for e =1 gives v = 0.61.

In the calculation presented here nothing was assumed about the system
under study except that there is a second-order phase transition, near
which the only long-wavelength degree of freedom is a single scalar field.
There are a number of different physical systems that fit this description,
such as the spontaneous appearance of magnetization (represented here
by ¢) in ferromagnetic and antiferromagnetic materials, and also second-
order phase transitions between liquids and gases and in binary fluids. All
of these systems are therefore expected to have the same value of v. This
is confirmed by experiment, which gives a value® v = 0.63 +0.04, in good
agreement with the three-loop result (18.5.13), and in fair agreement even
with the one-loop result (18.5.12). 1t is fortunate though still somewhat
mysterious that an expansion in powers of 1 should work so well.

More generally, all the systems that are described by the same set
of long-wavelength degrees of freedom near their second-order phase
transitions are said to belong to the same universality class. All the critical
exponents are the same for all systems in a given universality class.

18.6 Minimal Subtraction

We saw in Section 11.2 that dimensional regularization provides a partic-
ularly convenient method for calculating radiative corrections in quantum
electrodynamics, because it preserves the conservation laws associated
with gauge invariance. For the same reason, dimensional regularization
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also turns out to provide a very convenient alternative definition for the
sliding scale of the renormalization group in general gauge theories.”

In calculations using dimensional regularization, ultraviolet divergences
arise as poles in physical amplitudes when the spacetime dimensionality d
approaches the physical value d = 4. (For an example, see Eq. (11.2.13).)
To cancel these poles, the bare coupling constants g4(d) (including masses)
must themselves have such poles, with residues fixed by the condition
that physical amplitudes be regular as d — 4. These bare couplings in
general have non-zero dimensionalities Az(d) that depend on the spacetime
dimensionality d, so it is convenient to consider the dimensionless quantity
gb(dyu @D where y is a sliding scale with the dimensions of energy or
mass. This rescaled bare coupling may be expressed as a sum of terms
proportional to positive-definite powers v of 1/(d —4), with coefficients
b, fixed by the requirement of cancellation of singularities as d — 4 in
physical amplitudes, plus a remainder that is analytic in d at d = 4.
This remainder is identified as the dimensionless renormalized coupling
constant g‘(u,d), so

=&
ga(u D = g (nd)+ ) (d—4) 7" b (gl d). (18.6.1)
v=1
We are free to give the bare couplings any d dependence we like, as long
as the singularities at d = 4 in physical amplitudes are cancelled; we shall
remove this ambiguity by requiring that g/(u,d) be analytic in d not only
at d = 4, but for all d.
To calculate the renormalization group equation satisfied by g/(u,d),
first differentiate Eq. (18.6.1) with respect to u:

CN@ g+ =47 )| = Fled Y S bn(e) Bz, d)d—4)"

y=1 v=1 m
(18.6.2)
where
Bm(g) = < bl(g) (18.6.3)
cg™
and as before
d

u@g"w, d) = B (g(n, d),d) . (18.6.4)

Note that 57 is a function of all of the g™(u, d) and also of d, but it cannot
depend separately on u because, with rescaled masses included among
the dimensionless coupling parameters, there are no other dimensionful
parameters besides .

As we have seen, the dimensionalities A/(d) are always linear functions
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of d, which we shall now write as
Apd) = Ay + ps(d —4). (18.6.5)
We rewrite the left-hand side of Eq. (18.6.2) as

g (= ) [Aeg” + Bii)!] ~ S d— 4 [or bl (o) +Acbi(g)] -
v=1

The highest power of d in the analytic part here is of first order, so the

same must be true on the right-hand side of Eq. (18.6.2), and therefore

B(g,d) must be linear in d:

Bl (g, d) = B(g) + (d —4) (g) . (18.6.6)
Equating terms of first and zeroth order in (18.6.2) gives then
o'(g) = —ps g (18.6.7)

and, more importantly,

B'(g) = —Arg’ —b{(2)ps +Zzb1m(g)pmg (18.6.8)

It is noteworthy that the beta-function depends only on the coefficients
of the simple pole in the bare couplings. In fact, these coefficients also
determine the coefficients of all the higher poles; equating the pole terms
on the right and left of Eq. (18.6.2) yields the recursion relation

Pt 1(8) =) pmg™ Bl im(8) = —Acbl(g) Zb g)p"(g). (18.6.9)

For instance, in order for | d‘x F,,F* to be dimensionless, any gauge
field A" must have dimensions (in powers of mass) (d — 2)/2, and since
gpA" must have the same dimensions as d/0x", gg must have dimensions
(4 —d)/2, so that for gauge couplings A =0 and p = —1/2. Eq. (18.6.8)
gives then for a gauge theory with a single coupling constant :

Blg) =, [b1(g) —gbi(g)] . (18.6.10)

In particular, Eq. (11.2.20) shows that in quantum electrodynamics in
one-loop order the bare electric charge has a pole at d — 4 with

eB=Z3_l/2e—¥e—%;ﬁ. (18.6.11)
Setting by(e) = —e>/12n% in Eq. (18.6.10) gives then
o3

in agreement with the previous result (18.2.37).
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The coupling constants g’ (u) introduced in this section are said to be
defined by minimal subtraction. There is a slightly different scheme that
is somewhat more convenient. The simple poles (d — 4)~' typically arise
from functions (47)%>=2I'(2 — d/2) (as in Eq. (11.2.13)) which for d — 4
have the limit

d 1
2—d/2 _a
(4m)> 42T (2 2) ~ 5=

— 7 +Indn, (18.6.13)

where y is the Euler constant, y = 0.5772157. It 1s therefore convenient to
make the replacement everywhere in Eq. (18.6.1):

1 1oy 1
— 4ty 4. (18.6.14)

With this prescription, the coupling constants are said to be defined by
modified minimal subtraction.

One of the distinguishing characteristics of the definition of couplings
by minimal subtraction (or modified minimal subtraction) is that, since
no factors of an ultraviolet cut-off ever appear in any calculation, loop
diagrams have poles at d = 4 that correspond only to logarithmic ultra-
violet divergences, not divergences that are linear, quadratic, etc. Hence
a residue function b{(g) can contain a term of order g?%g%g¢ -+ only if
at d = 4 the dimensionality of g§ equals the total dimensionality of the

couplings g$, g%, g§, etc.:
Ar=Ac+Ap+Ac+..., (18.6.15)

and it follows then from (18.6.8) that the same is true of %(g). In particu-
lar, in a theory with no superrenormalizable couplings (like a gauge theory
with massless spinors and no scalars, such as quantum electrodynamics
with vanishing electron mass) all couplings have A, < 0, so the renormal-
ization group equations for the renormalizable couplings (with A, =0) are
unaffected by the presence of any non-renormalizable interactions. Also, in
such a theory the beta-functions for the non-renormalizable couplings
are polynomials of finite order in the non-renormalizable couplings, with
each coefficient in each polynomial given by an infinite series of powers
of the renormalizable couplings. For instance, in the theory of photons
and massless electrons (assuming invariance under p — 5y and P), there
are no nonrenormalizable interactions of dimensionality +35, and several
interactions of dimensionality +6 (four-fermion interactions as well as the
purely photonic interaction F,, DF*") with couplings f; of dimensionality
—2. The beta-function for f; is of the form >, b;;(e)f ;, with the coefficients
bij(e) given by a power series in e.
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18.7 Quantum Chromodynamics

Quantum chromodynamics is the modern theory of strong interactions.
It is a non-Abelian gauge theory, based on the gauge group SU(3). In
addition to the gauge ficlds, quantum chromodynamics involves fields of
spin ! particles known as quarks. There are quarks of six types, or
‘flavors’, the u, ¢, and ¢t quarks having charge 2e¢/3, and the d, s, and b
quarks having charge —e/3. Quarks of each flavor come in three ‘colors’
which furnish the defining representation 3 of the SU(3) gauge group.”
Baryons like the protons and neutron may be approximately regarded
as color-neutral bound states of three quarks, totally antisymmetric in
quark colors, while mesons like the rho meson behave approximately like
color-neutral bound states of quarks and antiquarks.!!

In the approximation where the quark masses may be regarded as negli-
gible compared with the energies of interest, the inversion of Eq. (17.5.44)
shows that the bare coupling constant in a general gauge theory has a
pole at spacetime dimensionality d — 4 with residue given by

3
g (.1 N
88 = [4712 (12‘31 3C2) +0@)| 73>
where C; and C; are defined by Eqgs. (17.5.33) and (17.5.34). That is, in
the notation of the previous section,

3
_g /a1 5
bi(g) = A (12C1 3C2) + 0(g") . (18.7.1)
Using this in Eq. (18.6.10) gives
3
__g (.1 5
Ale)=—4 3 (ECI 3Cz) +0(g”) . (18.7.2)

For an SU(3) theory with ny massless quarks in the defining representation
3 of SU(3), Eq. (17.5.35) gives

Ci =3, G =nys/2. (18.7.3)

Because we are taking the quarks as massless here, this formula may be
applied only in the effective field theory obtained by integrating out all
quarks heavier than the typical energy E under consideration, so that ns
1s the number of quark flavors with masses much less than E. With this

" Before the final formulation of quantum chromodynamics several authors had spec-
ulated that there might be three varieties of quarks of each flavor,'® both in order
to account for the rate of decays like 7 — y + 7 (sec Sections 22.1 and 22.2) and
to introduce an additional degree of freedom thal would explain how the wave func-
tion of fermionic quarks in a baryon could be symmetric in spin, space, and flavor
coordinates.!!
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understanding, Eqgs. (18.7.2) and (18.7.3) yield

NS
Ble =~ (4 — ) +0l&". (1874

We see that the theory 1s asymptotically free as long as there are no more
than 16 quark flavors with masses below the energy scale of interest. Since
in fact there seem to be only six quark flavors of any mass, the theory of
strong interactions based on the gauge group SU(3) is asymptotically free,

It was the 1973 discovery of asymptotic freedom in non-Abelian gauge
theories of this sort by Gross and Wilczek!? and Politzer!? that convinced
theoretical physicists that this is the correct theory of strong interactions.
Their calculation immediately explained the puzzling result of a famous
1968 experiment!* at SLAC on deep-inelastic electron-nucleon scattering,
that strong interactions seem to get weaker at high energies.”* (This
experiment will be discussed further in Section 20.6.) But the historical
importance of the discovery of asymptotic freedom in Yang-Mills theories
1s not just that it explained an old experimental result; it for the first time
opened up the prospect of doing reliable perturbative calculations of
strong interaction processes, at least at high energy.

Asymptotic freedom was soon found to have another important impli-
cation. At first after the discovery of asymptotic freedom 1t was widely
assumed that the gauge bosons in a realistic Yang—Mills theory of strong
interactions would have to be quite heavy, to explain why these strongly-
interacting bosons had not been discovered long before. Following the
precedent of the theory of weak and electromagnetic interactions (dis-
cussed in Chapter 21), it was supposed that the masses of the gauge
bosons arose from a spontaneous breakdown of the color SU(3) gauge
group, triggered by the vacuum expectation values of scalar fields in a non-
trivial representation of this group. But these strongly interacting scalars
would contribute positive terms to S(g), which could destroy asymptotic
freedom. Even worse, in a theory with strongly interacting scalar fields,
radiative corrections involving weak interactions would introduce large
violations of various symmetries like charge conjugation invariance and
flavor conservation which, as we shall see, would not be violated with-
out the scalars."” Then it was suggested to drop the strongly-interacting

" Zee” and perhaps other theorists had already understood that this experimental result
could be understood in a theory with a beta-function that becomes negative for small
positive coupling, but calculations of f(g) in all renormalizable field theories except
non-Abelian gauge theories gave f(g) > 0. On the other hand, by 1972 't Hooft had
developed techniques for calculating f(g) in Yang—Mills theories, and in June 1972
he announced at a conference on gauge theory at Marseilles'® that 8(g) < 0, but he
waited to publish this result and work out 1its implications while he was doing other
things, so his result did not attract much attention.
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scalars, and accept the comsequence that the gluons, the SU(3) gauge
bosons, have zero mass.!* The decrease of the strong coupling constant at
high energy or short distance of course implies an increase at low energy or
large distance, and it was suggested that this might explain why massless
gluons and quarks had not been detected. According to this hypothesis,
only color-neutral particles like baryons or mesons will ever appear in
isolation,!” This is unfortunately still a hypothesis rather than a theorem,
but after two decades there seems to be little doubt that it is correct.
Even though quarks cannot materialize as free particles, they are in a
sense observed as jets produced in high energy collision processes. For
instance, in many events in electron—positron annihilation, the final state
consists of two narrowly collimated hadron jets, with a distribution in
the angle 0 between the colliding lepton momenta and the jet directions
(in the center-of-mass system) given by 1 + sin’#, just as expected from
the tree graph for electron—positron annihilation into quark-antiquark
final states.”® This can be understood?! in terms of the general analysis
of infrared divergences in Section 13.4. At extremely high energies we
would expect the rate for a physical process to be given by lowest-order
perturbation theory, provided it is ‘infrared-safe, in the sense of not
becoming infrared divergent when all masses are taken to zero. The
total rate for electron-positron annihilation into hadrons is infrared-safe,
since we sum over all hadronic final states. (We are ignoring higher-
order electromagnetic effects here.) Therefore we can rely on perturbation
theory, which immediately tells us that the ratio R of this rate to the rate
foret +e” -yt +u"isR=3 > 02, where the sum runs over all quark
flavors, Q, is their charge in units of e, and the factor 3 is the number
of colors. (For instance, in the wide energy range between my, ~ 4.5 GeV
and m, ~ 180 GeV, R ~ 3(2(2/3)> + 3(~1/3)?) = 11/3.) On the other
hand, the rate for electron—positron annihilation into some definite state
of quarks and gluons 15 not infrared-safe, and its rate therefore cannot
be calculated in perturbation theory at all; in fact, it is zero. In between
these two extremes is the rate for electron—positron annihilation into a
definite number of jets, each jet carrying a definite total momentum and
charge, together with a set of unobserved hadrons with limited total energy
outside the jets. As discussed in Section 13.4, this rate is infrared-safe. It
can therefore be calculated at high energy in the tree approximation of
perturbation theory, identifying jets (in this order of perturbation theory)
with the outgoing quarks, antiquarks, and gluons. We can even calculate
the rate for three-jet events, arising from tree diagrams in which a gluon is
emitted from the outgoing quark or antiquark, and use the comparison of
the results with experiment to measure the value of ay(¢).?> But we cannot
use perturbation theory to predict the distribution of momenta within a
jet, because such a differential rate is not infrared-safe. Similar remarks
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apply to the production of jets in deep inelastic lepton-hadron collisions,
to be discussed in Section 20.6, but the presence of hadrons in the initial
state makes the analysis more complicated.

Following the same reasoning as in Section 12.5, with no scalar fields the
most general renormalizable Lagrangian for quantum chromodynamics
can be put in the form

L == \F Foyo — 3 0ul@ — ig duts +mylyn (18.7.5)

where Af is the color gauge vector potential; F¥ is the color gauge-
covariant field strength tensor; g is the strong coupling constant; t, are
a complete set of generators of color SU(3) in the 3 representation (that
is, Hermitian traceless 3 x 3 matrices with rows and columns labelled
by the three quark colors), normalized so that Tr(t,tp) = 1d,4; and
the subscript n labels quark flavors, with quark color indices suppressed.
Just as we found for electrodynamics in Section 12.5, this Lagrangian
has important accidental symmetries: it conserves space parity,’ charge
conjugation parity, and the numbers of quarks of each flavor (minus the
number of the corresponding antiquarks), including the long-established
‘strangeness’ quantum number, which counts the numbers of ‘s” quarks.
Thus quantum chromodynamics immediately explained the mysterious
fact that the strong interactions respect various symmetries that are not
symmetries of all interactions. This argument also makes it clear why, as
mentioned earlier, in this theory the weak interactions do not introduce
large violations of parity, charge conjugation, strangeness, etc. Since
all renormalizable interactions among quarks and gluons conserve these
symmetries, at energies E much less than the masses my of the particles
that carry the weak interactions these symmetries could be violated only
by non-renormalizable terms in the effective field theory, such as pyipy
interactions, which as discussed in Section 12.3 would be suppressed by
negative powers of my as well as by the coupling constants of the weak
interactions.

Of course, it is possible that the quarks and gluons exhibit some new
kind of strong interaction at an energy scale A’ much larger than the scale
A characteristic of quantum chromodynamics. For instance, as discussed
in Section 22.5, the quarks might be bound states of more fundamen-
tal fermions, which interact with gauge fields whose asymptotically free
couplings become strong at energies of order A’, trapping them into the
quarks. In that case the effective Lagrangian density for quarks at en-

T Although it was not known in 1973, we shall sce in Section 23.6 that non-perturbalive
effects can violate parity in quantum chromodynamics. Various ways of avoiding
strong parity violation have been suggested, but it is nol yet clear which is correct.
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ergies E € A’ would contain non-renormalizable interactions such as
Pyipy, which are suppressed only by powers of E/A’. These interactions
could show up, not only in small violations of symmetries like parity and
quark flavor conservation at ordinary energies, but also in departures?
from the quantitative predictions of quantum chromodynamics at energies
approaching A’.

Now let us consider the behaviour of the coupling constant of quantum
chromodynamics in greater detail. In lowest order, the renormalization
group equation is given by Eq. (18.7.4) as

d 2111
el = i (T —emv)- (18.7.6)
The solution is

g3(p) 127
4 (33 —2np)In(u2/A?)’

where A is an integration constant. This formula exhibits a characteristic
property of theories of massless (or, for the quarks, approximately mass-
less) particles: in such theories one of the dimensionless couplings in the
Lagrangian is exchanged for a free dimensionful parameter. Eq. (18.7.7)
involves no free dimensionless parameters, but it does involve one free
parameter with the dimensions of mass, the integration constant A.

These calculations have been carried to three-loop order. The renor-
malization group equations to this order are?*

(18.7.7)

g>(1) 2°(1) g'(w)

el = B2 g 18.7.
MW = —Poer —Priggaa ~ Prgigags (18.18)
where B, are the numerical coefficients:
Bo=11— %nf , (18.7.9)
19
B = 51—-?143«, (18.7.10)
_ 5033 325 ,
B2 = 2857 o M (18.7.11)
The solution is
2
_ g
O‘S(H) - 4?!

R [1 281 1n[In (4*/A%)]
bl /AT B /A7)

461 N2 8PP0 5
+ﬁ3]n2(u12//\2) ((1n[1n(u2/A2)]— 5) g —4)](18.7.12)
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It should be recalled that ny in the above results is the number of
quark flavors with masses below the energies of interest. In each energy
range between any two successive quark masses we have a different
value of ns, and also a different A, chosen to make g(u) continuous
at each quark mass. In particular, experiments on the deep inelastic
scattering of electrons typically involve energies above only the first four
quark flavors (u, 4, s, and ¢), so here we must take ny = 4. On the
other hand, experiments at electron—positron colliders like PEP, PETRA,
TRISTRAN, and LEP are at energies well above the fifth (b) quark mass,
so in these experiments we must take ny = 5. But these results may
be expressed in terms of those for n; = 4 by matching the solutions of
the renormalization group equations at the b quark mass. In this way
it is found® (using the modified minimum subtraction prescription in
calculating f>) that the strong coupling extrapolated to mz = 91.2 GeV
is ay(mz) = gZ(mz)/4n = 0.118 + 0.006, corresponding to A ~ 250 MeV
for energies u with mp < u < my, where ny = 5. A more recent study?® of
hadronic production in e*—e~ annihilation at the Z resonance has given
a directly measured value og(myz) = 0.1200 4 0.0025, with a theoretical
uncertainty of +0.0078, corresponding to A = 253"_“(1)20 MeV.

18.8 Improved Perturbation Theory”

The ground-breaking paper' of Gell-Mann and Low was in large part
directed to the problem of ‘improving’ perturbation theory — that is, of us-
ing the ideas of the renormalization group and the results of perturbation
theory to a given order to say something about the next order of pertur-
bation theory. To illustrate this, let’s return to the specific case studied by
Gell-Mann and Low: vacuum polarization in quantum electrodynamics.

Recall that the renormalized electric charge e, at a sliding scale u is
given by Eq. (18.2.36) in terms of the bare charge eg as

en = NP leg (18.8.1)

where NLA) is the constant which, when multiplied into the unrenormal-
ized electromagnetic field, gives a field renormalized at scale pu. (See
Eq. (18.2.21).) Thus we can define a renormalized (and hence cut-off-
independent) complete photon propagator A} (g,u,e,) in terms of the
complete propagator Ay ,.(g,ep) of the unrenormalized field as

A;)a(qa Hs eﬂ) = N;(IA)ZAFB,OG(‘Z; eg) (1882)

" This section lies somewhal oul of the book’s main line of development, and may be
omitted 1n a first reading.
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in such a way that the function ;A (g, u,¢€,) is both independent of g,
because it equals ef; Bpol(d,ep), and independent of the cut-off, because
both e, and A},(q.u,e,) are renormalized quantities. (We are not ex-
plicitly displaying cut-off dependence here.) But Lorentz invariance and
dimensional analysis tell us that this function must take the form:

'?pad(qz/ﬂzs eu)

AL (q, 1, e4) = e + q,qs terms . (18.8.3)
Since Eq. (18.8.3) is u-independent, we can set u = /g2 = ¢ here, so that
d(q” /1%, e,) = d(1,¢5) . (18.8.4)

Now let us see what this tells us about the structure of the perturbation
series for d(g®/u?, e,). The beta-function for e has the expansion:

Ble) = bre® + bye® + bse’ + ... . (18.8.5)

The renormalization group equation for e, then has a power series solution

2 2 4 qz 6 q’
e; = ¢, —bie, In i bgeﬂlnﬁ
(b bibz 24 L, 1n2) ... . (18.8.6)
p u
If we also expand d:
d(1,e) = * + d;e* + doe® + dze® + . .. (18.8.7)

then
q q°
d(q* /1P e,) = d(l,e)) = € — (b1 In 2 dl) el — (bz In 2 dg) e

1 24 g’ 8
— | sb2b21n —2-|—(b3—b1d2)1n-—§—d3 e, +... . (18.8.8)
2 u § *

Note that the leading powers of In(¢?/u?) in each order of d(q* /42, e#) are
respectively 0,1,1,2,3,.... Also, if we calculate d(g?/u?, e,) to order e and
thus determine bl and bz, we can immediately write down the coefﬁclent
of the leading logarithm In order eﬁ, as — ibyby. None of this would be
easy to infer without using the method of the renormalization group.

Problems

1. Comnsider an SU(N) gauge theory with a scalar field in the defining
representation of SU(N). Calculate the beta-function for the gauge



References 159

coupling to one-loop order, including the contribution of a scalar
loop. (Recommendation:; Use the background field gauge, with a
constant background field.)

. Suppose that the beta-function f(g) for a theory with positive cou-
pling constant g has a simple zero at g = g+, where f(g) — a(g+ — g)
with a > 0. What is the asymptotic behavior of the correction to
the leading term oc E~7“®) in the factor N~ associated with the
inclusion of an operator ( in a vacuum expectation value.

. Show that in a theory with p(g) = hg>+ b g>+b"g*+- -, it is possible
by a redefinition of the coupling constant to make the coefficient "
anything we want.

. Calculate the effective electric charge that should be used in studying
processes at energy 100 GeV, taking account of all known charged
quarks and leptons with masses below 100 GeV.

. Calculate the asymptotic behavior for large four-momentum of the
electron propagator in quantum electrodynamics. (You may use the
one-loop value of Z» calculated elsewhere, for instance in Section
114.)

. Calculate the anomalous exponent v to first order in the expansion
in € =4 —d for an O(N)-invariant theory of scalar fields ¢,(x) with
n=1,---, N belonging to the vector representation of O(N), and an

interaction 1g(}, ¢2)%
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Spontaneously Broken
Global Symmetries

Much of the physics of this century has been built on principles of
symmetry: first the spacetime symmetries of Einstein’s 1905 special theory
of relativity, and then internal symmetries, such as the approximate SU(2)
isospin symmetry of the 1930s. It was therefore exciting when in the
1960s it was discovered that there are more internal symmetries than
could be guessed by inspection of the spectrum of elementary particles.
There are exact or approximate symmetries of the underlying theory that
are ‘spontaneously broken, in the sense that they are not realized as
symmetry transformations of the physical states of the theory, and in
particular do not leave the vacuum state invariant. The breakthrough was
the discovery of a broken approximate globat SU(2) x SU(2) symmetry of
the strong interactions, which will be discussed in detail in Section 19.3.
This was soon followed by the discovery of an exact but spontaneously
broken local SU(2) x U(1) symmetry of the weak and electromagnetic
interactions, which will be taken up along with more general broken local
symmetries in Chapter 21. In this chapter we shall begin with a general
discussion of broken global symmetries, and then move on to physical
exampies.

19.1 Degenerate Vacua

We do not have to look far for examples of spontaneous symmetry
breaking. Consider a chair. The equations governing the atoms of the
chair are rotationally symmetric, but a solution of these equations, the
actual chair, has a definite orientation in space. Here we will be concerned
not so much with the breaking of symmetries by objects like chairs, but
rather with the symmetry breaking in the ground state of any realistic
quantum ficld theory, the vacuum.

A spontaneously broken symmetry in field theory is always associated
with a degeneracy of vacuum states. For instance, consider a symmetry
transformation of the action, and of the measure used in integrating over

1A
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fields, that acts linearly on a set of scalar fields c;bn(x):

Pn(x) — Z Lumm(x) . (19.1.1)

(The ¢, need not be elementary fields; they can be composite objects, like
Pluyp.) As we saw in Section 16.4, the quantum effective action I'[¢p] will
then have the same symmetry

I'[¢] = '[L¢] . (19.1.2)

For the vacuum the expectation value of ¢(x) must be at a minimum of
the vacuum energy —I'[§], say at ¢(x) = ¢ (a constant). But if L # @,
then this vacuum is not unique; —I'[$] has the same value at ¢ = L¢ as it
does at ¢. In the simple special case where the symmetry transformation
(19.1.1) is a reflection, ¢ — —¢, if —I'(¢) has a minimum at a non-zero
value ¢ of ¢, then it has two minima, at ¢ and —@, each corresponding
to a state of broken symmetry.

We are not yet ready to conclude that in such cases the symmetry
is broken, because we have not yet ruled out the possibility that the
true vacuum is a linear superposition of vacuum states in which ¢,, has
various expectation values, which would respect the assumed symmetry.
For instance, in a theory with a symmetry ¢ — —¢, even if T'(¢) has a
minimum for some non-zero value ¢ of ¢, how do we know that the true
vacuum is one of the states [VAC, 1) for which ® has expectation values ¢
and —¢@, and not some linear combination like |VAC, +) 4+ |VAC,—) that
would respect the symmetry under ¢ — —¢? The assumed symmetry under
the transformation ¢ — —¢ tells us that the vacuum matrix elements of
the Hamiltonian are

(VAC,+|H|VAC, +) = (VAC, —|H|VAC,~) = a
(with a real) and
(VAC, +|H|VAC,—) = (VAC,—|H|VAC,+) = b,

(with b real), so the eigenstates of the Hamiltonian are |VAC, +) +
IVAC, —), with energies a + |b|. These energy eigenstates are invariant
(or invariant up to a sign) under the symmetry ¢ — —¢. In fact, the
same issue also arises for chairs. The quantum mechanical ground state
of an isolated chair is actually rotationally invariant; it is a state with
zero angular momentum gquantum numbers, and hence with no definite
orientation in space.

Spontaneous symmetry breaking actually occurs only for idealized sys-
tems that are infinitely large. The appearance of broken symmetry for a
chair arises because it has a macroscopic moment of inertia I, so that
i*s ground state is part of a tower of rotationally excited states whose
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energies are separated by only tiny amounts, of order #°/I. This gives
the state vector of the chair an exquisite sensitivity to external perturba-
tions; even very weak external fields will shift the energy by much more
than the energy difference of these rotational levels. In consequence, any
rotationally asymmetric external field will cause the ground state or any
other state of the chair with definite angular momentum numbers rapidly
to develop components with other angular momentum quantum numbers.
The states of the chair that are relatively stable with respect to small
external perturbations are not those with definite angular momentum
quantum numbers, but rather those with a definite orientation, in which
the rotational symmetry of the undertying theory is broken.

For the vacuum also, the possibility of spontancous symmetry breaking
is again related to the large size of the system, specifically to the large
volume of space. In the above example of a reflection symmetry, the off-
diagonal matrix element b of the Hamiltonian involves an integration over
field configurations that tunnel from the minimum at ¢ = ¢ to the one at
¢ = —, so it is smaller than the diagonal matrix element a by a barrier
penetration factor that for a spatial volume ¥~ is of the form exp(—C¥"),
where C is a positive constant” depending on the microscopic parameters
of the theory. The two energy eigenstates |VAC,+) + |VAC, —) are thus
essentially degenerate for any macroscopic volume, and so are strongly
mixed by any perturbation that is an odd functional of ¢. Even if such a
perturbation H’ is very weak, its diagonal elements (VAC, +|H'|VAC, +)
will differ by much more than the exponentially suppressed off-diagonal
elements of either H or the perturbation. Thus the vacuum eigenstates
of the perturbed Hamiltonian will be very close to either one of the
broken symmetry states |VAC,+) which diagonalize the perturbation,
and not to the invariant states |VAC, +) + |VAC, ). Which one of the
states |VAC, +) is the true vacuum for very small perturbations? This
depends on the perturbation, but since these two states are related by a
symmetry transformation of the original Hamiltonian, it doesn’t matter;
if the perturbation is sufficiently small, no observer will be able to tell the
difference.

The vanishing of matrix elements between vacuum states with different

field expectation values becomes exact in a space of infinite votume.! For
infinite volume, a general vacuum state {v) may be defined as a state with

* For instance, by analogy with the classic wave mechanical problem of barrier
penetration, for a Lagrangian density of the form —10,¢0"¢ — V(¢$), we have
C = f_Jrf,QV(cﬁ) d¢p. We will not bother to calculate the off-diagonal matrix el-

ement b here, because we shall soon give a general argument that shows that it
vanishes for infinite volume.
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Zero momentum
Pjv) =0 (19.1.3)

for which this is a discrete momentum eigenvalue. (This excludes single-
particle or multiparticle states, for which the momentum value zero is
always part of a continuum of momentum values in a space of infinite
volume.) In general there may be a number of such states. They can
usually be expanded in a discrete set, and our notation will treat them as
if they were discrete. They will be chosen to be orthonormal

Ul) = Sy - (19.1.4)

Any matrix element of a product of local Hermitian operators at equal
times between these states may be expressed as a sum over states:

(uld(x) BO)lv) = D (ul4(0)w) (w|B(O)[)

W

+ [ EpS WAV, p) (N,plBO))e ™, (1919
N

where |N,p) are a set of orthonormalized continuum states of definite
three-momentum p that together with the |v) span the whole physical
Hilbert space. (Here N may include continuous as well as discrete labels.
Also, we are dropping time arguments.) We assume without proof that
because the [N, p) belong to the continuous spectrum of the momentum
operator P, the dependence of matrix elements on p is smooth enough
(that is, Lebesgue integrable) to allow the use of the Riemann Lebesgue
theorem,” so that the integral over p vanishes as [x| — co. In this limit, we
have then

(ulA(x) BO)o) —— > {ul4(O)lw) (w|BO)v) (19.1.6)
Likewise,
WBO) AX)D) —— > _{ulBO)w) (w|AO)v) . (19.17)

But causality tells us that the equal-time commutator [4(x), B(0)] vanishes
for x # 0 (see Section 5.1), so the matrix elements (19.1.6) and (19.1.7) are
equal, and thus the Hermitian matrices (u|A(0)|v), (4 B(0)}v), etc., must all
commute with one another, It follows that they can all be simultaneousty
diagonalized. Changing if necessary to this basis, we have then for every
Hermitian local operator A(x) of the theory

(U A(0)[v) = S ay (19.1.8)

with a, a real number, the expectation value of A4 in the state |v). So
for infinite volume any Hamiltonian constructed from local operators will
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have vanishing matrix elements between the different vacua |v). In the
absence of off-diagonal terms in the Hamiltonian, any two |v)s connected
by a symmetry operation will be degenerate. A symmetry-breaking per-
turbation built out of such local operators will be diagonal in the same
basis, and will therefore yield a ground state that is one of the {v)s, rather
than a linear combination of them.

It is reassuring that the vacuum states |v) which are stable against
small field-dependent perturbations are also vacuum states in which the
cluster decomposition condition (see Chapter 4) is satisfied. This principle
requires that for the physical vacuum state [VAC)

{(VAC|A(x)B(0)[VAC) :;(VAC|A(X)|VAC) (VAC|B(0)|VAC) . (19.1.9)
This condition is satisfied if we take the vacuum state [VAC) to be any
one of the states |v) in the basis defined by Eq. (19.1.8), but not if we take
it to be a general lincar combination of several of the |v)s.

19.2 Goldstone Bosons

We now specialize to the case of a spontaneously broken continuous
symmetry. In this case there is a theorem, that (with one important
exception, to be considered in Chapter 21) the spectrum of physical
particles must contain one particle of zero mass and spin for each broken
symmetry. Such particles, known as Goldstone bosons (or Nambu-—
Goldstone bosons) were first encountered in specific modets by Goldstone?
and Nambu®; two general proofs of their existence were then given by
Goldstone, Satam, and myself* This section will present both of these
proofs, and then go on to consider the properties of the Goldstone
bosons.

Suppose that the action and measure are invariant under a continu-
ous symmetry, under which a set of Hermitian scalar fields ¢,(x) (either
elementary or composite) are subjected to the linear infinitesimal trans-
formations

Pn(x) = Pu(x) + i€ Z tim®Pm(x) (19.2.1)

with it,,, a finite real matrix. As we found in Section 16.4, the effective
action is then also invariant under this transformation

Z / % tim@m(x) d*x =0 (19.2.2)

We shall specialize to the case of a translationally invariant theory with
constant fields ¢,, where as we saw in Section 16.2, the effective action
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takes the form

I'l¢] = -+ V(¢), (19.2.3)

where ¥” is the spacetime volume and V(¢) is known as the effective
potential. Eq. (19.2.2) may then be written

—— tym ¢’m = (), (192.4)

We will use this symmetry requirement in a form obtained by differenti-
ating again with respect to ¢, :

0 0
Z V(‘;b) Za qbfai) tum®m = 0. (19.2.5)

Now specialize to the case where ¢, is at the minimum of V(¢), that
18, at the vacuum expectation vatue ¢,. Since V(¢) is stationary at its
minimum, the first term in Eq. (19.2.5) vanishes, so

OV ($)
%;; a(rbnacpbf b=

The general results of Section 16.1 show that the second derivative
in Eq. (19.2.6) is just the sum of all connected one-particle-irreducible
momentum-space Feynman diagrams with external lines labelled # and ¢
and carrying zero four-momentum. As shown at the end of Section 16.1,
it is related to the reciprocal of the momentum-space propagator by

Lam (_bm =0. (1926)

oV

36 (g‘il = A (0), (19.2.7)
so Eq. (19.2.6) gives

Z A (O)tumm =0 . (19.2.8)

Thus, if the symmetry is broken, so that 3, tym@m is non-zero, then this
is an eigenvector of A;}(0) with eigenvalue zero. The existence of such
an eigenvector means that An{o(q) has a pole at g> = 0. The rank of the
residue of the pole at g> = 0 is equal to the dimensionality of the space
of the vectors t¢, with ¢ running over all the generators of continuous
symmetries of the theory. Roughly speaking, there is one massless boson
for every independent broken symmetry.

In the classic example of a broken symmetry, the Lagrangian invotves
a set of N real scalar fields ¢,, and takes the form

2
F=—— Zaqu)naﬂqbn - Z qban)n — % (E qbnqbn) . (1929)
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This is invariant under the group O(N), consisting of rotations of the
N-vector with components ¢,. For constant fields the effective potential
in the tree approximation is given simply by minus the non-derivative
terms in the Lagrangian density

M 2
Vig) = —- > ¢ndn +§— (Z qbnqbn) . (19.2.10)

As usual we suppose that g is positive-definite. (Otherwise the minimum,
if any, of V(¢) lies outside the range of validity of perturbation theory.)
If .4 is also positive, the minimum of ¥'(¢) is at the point ¢ = 0, which
is invariant under O(N). On the other hand, for .#? < 0 the minimum is
at points ¢, at which

Y bups=—M*/g. (19.2.11)
1
The mass matrix in the tree approximation is then

, _ PV(9)
nm aqbnaqu qb:c?)

- /ﬁzénm + g‘Snm Z &K’(}e‘ + zg(_ﬁnﬁ_bm
4

=28 nbm . (19.2.12)
This has one eigenvector ¢, with a non-zero eigenvalue:
m =28 Gnpn=247, (19.2.13)
n

and N — 1 eigenvectors perpendicular to ¢ with eigenvalue zero. The
reason for the appearance of only N —1 Goldstone bosons is just that
O(N) is broken down to O(N — 1) (the subgroup of O(N) that leaves ¢
invariant), and so the number of independent broken symmetries is the
dimensionality of O(N) minus the dimensionality of O(N — 1), or

%N(N—l)—- %(N—l)(N—Z) =N-1. (19.2.14)

Here 1s another proof of the existence of Goldstone bosons, one that
makes no use of the effective action formalism. As we saw in Chapter
7, any continuous symmetry of the action leads to the existence of a
conserved current JH:

0J¥(x)
oxH
with a charge @ that induces the associated symmetry transformation

0= f dx J9(x,0) . (19.2.16)

=0, (19.2.15)



170 19 Spontaneously Broken Global Symmetries

0.6(0)] = =3 tumm(x) - (192.17)

Operator relations like Eqs. (19.2.15)—(19.2.17) are unaffected by sponta-
neous symmetry breaking, which is manifested in the properties of physical
states. Now, consider the vacuum expectation value of the commutator of
the current and field. Summing over intermediate states, this is

<[J;L(y)s ¢n(x)]> = (271)_3 / d4p {pfi(p) P =) _ ﬁﬁ(p) eip-(y—x)] ’
| (19.2.18)

VAC

where, using translation invanance,

(2n)"Yiph(p) = >_(VAC|JHO)IN} {N|dn(0)[VAC)3*(p — pn) , (19.2.19)
N

@n)*iph(p) = > _(VAC|$n(0)IN) {N|J*(0)|VAC)S*(p — pn). (19.2.20)
N

We usually take J* as well as ¢, to be Hermitian operators, in which case
Egs. (19.2.19) and (19.2.20) are complex conjugates

pa(p) = =By () (19.2.21)

but this will not be assumed here.
Lorentz invariance tells us that p and 5 must take the forms

Pi(p) = Pron(=p1)8(P") (19.2.22)
a(p) = P pa(—PHO°) . (19.2.23)

(The factor 8(p®), which is +1 for p° > 0 and zero otherwise, is required
by the fact that py is the four-momentum of a physical state.) This gives

(74003000 g = 70 [ 02 [ont184 00 — 50

VAC

P (x = 3] (19.2.24)
where A, is the familiar function
Ap(z;p?) = (2m)~° f d*p0(p°) 5(p* + 1) P . (19.2.25)

As remarked in Chapter 5, Lorentz invariance allows A (z; #%) to depend
only on z2, 42 and 6(z°), and for z2 > 0 only on z* and u*. Hence
Ay(x — y;p?) and A (y — x; u?) are equal for x — y spacelike, and so in
this case

(00 9] Yype = 7 [ o s+ Do) Al = 04
(19.2.26)
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But for x — y spacelike all commutators must vanish, so

puli®) = —pu(?) , (19.2.27)
and therefore Eq. (19.2.24) gives for general x and y:

0
o 000 )y = 55 [ dionts) Aty = xa) — Astx = )]
(19.2.28)
Where Eq. (19.2.21) applies, Eq. (19 2.27) also shows that p,(p) is real.
Now let us use the fact that J*(y) is conserved. Applying the derivative
8/8y* to both sides of Eq. (19.2.28), and using the familiar equation

(Oy — 1) Asly —x,12) = 0, (19.229)
we find, for all x and y
0= [ di ipals) [Asly— . 2) ~ Ar(x— i) . (19230)
and so (since A (x — y) is not even for x — y timelike or lightlike)
Won(i2)=0. (19.2.31)

Normally we would conclude from this that p,(u?) vanishes for all p2.
However thlS is not possible in the case of broken symmetry. Set 1 =0
and x® = )® =t in Eq. (19.2.28):

(P00 utx,0)] ), = 227 [ dionsd)
8 ] | d*py/p? + 12 POV (p? 4 1)
=80 —x) [ dipals).

Integrating and using Eqs. (19.2.16) and (19.2.17) gives

=3 tun{gmdvac = f onli) (19.2.32)
Eqgs. (19.2.31) and (19.2.32) can be reconciled only if
pr(t’) = 18(1*) Y tum{pm(0))vac - (19.2.33)

(This is real for Hermitian fields ¢b, because in this case Eq. (19.2.1) requires
tom tO be imaginary.) Thus as long as the symmetry is broken, p,(u*) cannot
vanish, but rather consists entirely of a term proportional to 5(u2). Such
a term can obviously only arise in a theory that has massless particles,
because otherwise the spectrum of center-of-mass squared energies —p3,
would not extend down to zero. Furthermore a delta-function é(u’) can
only arise from single particle states of zero mass; multiparticle states
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would contribute a continuum extending down to p> = 0. The state
dx(0)VAC) is rotationally invariant, so {N|¢@,(0)|[VAC) must vanish for
any state N of non-zero helicity. Also (VAC|J%N) vanishes for any state N
that has different intrinsic parity or (unbroken) internal quantum numbers
from JO. We conclude then that a broken symmetry with tu,{¢,(0)}yvac # 0
requires the existence of a massless particle of spin zero and the same parity
and internal quantum numbers as J°. These are our Goldstone bosons.

The above argument breaks down when the spontaneously broken
symmetry is a local rather than a global symmetry. Either we choose
a Lorentz-invariant gauge, such as the Landau gauge with ¢,4* = 0, in
which case as shown in Section 15.7 the positivity assumptions of quantum
mechanics are violated, or we adopt a gauge like the axial gauge with
A% =0, in which case the ordinary rules of quantum mechanics apply but
manifest Lorentz invariance is lost. As we shall see in Chapter 21, this
exception is not just a technicality ; spontaneously broken local symmetries
do not lead to Goldstone bosons.

It will be useful to look in a little more detail at how the coefficient of
the delta-function in py(u?) is related to the properties of the Goldstone
boson. For a spin zero boson B of four-momentum g#, Lorentz invariance
requires the matrix element of the current between the vacuum and one-
particle states to take the form

Fph e

(2m)3/2,/ 2p(}3

where pp is the momentum of B, p§ = |ps| and F is a constant coefficient
with the dimensions of energy. (This is consistent with current conservation
because ppipy = 0.) Also, the matrix element of the scalar field ¢a(y)
between a single-particle state and the vacuum is of the form

(VAC|JMx)|B) =i (19.2.34)

Blga()0) = 22
T ey gy

where Z, is a dimensionless constant. From Eqs. (19.2.34) and (19.2.35),
we have then

r)ipn(—pp00%) = [ Ppa(VACIHO)B) (BIgn(0)0) 8*(p — pa)

=3(p° — ph 2y 2p°) ' p'FZ,,
= 0(p°) 8(—p*) 2m) *pHFZ,

(19.2.35)

S0

pu(i’) = FZ, 0 (i) . (19.2.36)
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Comparing with Eq. (19.2.33), this gives
iFZ, =— Z tum {@m(0))vAC . (19.2.37)
m

More generally, we may have several broken symmetries with generators
t, and currents JX, which we can take independent in the sense that no
linear combination of the t, is unbroken. For each of these, there is a
Goldstone boson |B,), and we define Z,,, and Fg, by

Fabpféeipﬁ-x

(VAC|JX(x)|Bp) = i , (19.2.38)
(2724 /2pf
Zan e ipBy
(Baln(y)[0) = : (19.2.39)
(2m)3/2,/2p%
Eq. (19.2.37) applies for each a, so

i) FaZpn == [tadum{m(0))vac . (19.2.40)

b m

For instance, in the O(N) example discussed earlier, we can adapt our
basis so that the vacuum expectation value points in the one—direction

Pm = (Pm(0))vac = V6 - (19.2.41)

The N—1 broken symmetry generators ¢, (with a = 2 -+ N) can be defined
as those for infinitesimal rotations in the 1-a plane. With a convenient
choice of normalization, these have the non-zero elements

[talia = —[ta)ar = i (19.2.42)

(with no summation over a). The unbroken O(N — 1) symmetry, under
which the N — 1 Goldstone bosons transform according to the vector
representation, tells us that

Fg = 0, F Zna =0, Zap =Z 0y . (19.2.43)
Then Eq. (19.2.40) requires
FZ =v. (19.2.44)

It is conventional to adopt the field renormalization prescription that
Z =1,s0 F =v. Thus F is a measure of the strength of the symmetry
breaking. As we shall now see, the parameter 1/F determines the strength
with which the Goldstone bosons interact with each other and with other
particles.

A broken symmetry tells us more about the Goldstone bosons than just
that they have zero mass; it also tightly constrains their interactions at
low energy. To see this in the simplest case, consider the matrix element of
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8

Figure 19.1. Feynman diagrams for pole terms in the matrix element of a
symmetry current J#(x) between general states « and 8, due to a Goldstone
boson internal line, denoted =.

the current J#(x) associated with a broken symmetry. Between arbitrary
states «,

(B (0)loe) = €7 (BlJ*(O)a) , (19.2.45)

with
g =ph —pj - (19.2.46)
We know that J#(x) has a non-zero matrix element between the vacuum
and a one-Goldstone-boson state |B,q), given by Eq. (19.2.34). It foliows

by the usual rules of polology (see Chapter 10) that the matrix element
(19.2.45) has a pole at g*> — 0, with”
; ir gt
(BIJ#(0) o) — - Mg, , (19.2.47)

where i(27)*6%(py — pg — §)M o/ (27)3/2(2p")!/? is the S-matrix element for
emitting a Goldstone boson of four-momentum g in the transition « — .
Let us therefore write

iFg
(B (0)]ar) = N%, + —q‘,} My, (19.2.48)

where N is defined as the non-pole contributions to the matrix element
of the current. From Eq. (19.2.45), we see that the conservation law

"~ Where the Goldstone boson corresponds to an elementary field, Eq. (19.2.47) may be
obtained by inspection of the class of Feynman diagrams shown in Figurc 19.1. The
factor i(2=)* in the S-matrix element for « — B+ B is cancelled by the factor —i(2x)™*
associated with the B propagator. The general rules of polology tell us that the same
holds even where the Goldstone boson is a composite particle.
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q

(a) (b)

Figure 19.2. Feynman diagrams for pole terms in the matrix element of a
symmetry current J#(x) between general states o and f, due to internal lines
close to their mass shell. Solid lines indicate ‘hard’ external particles; wavy lines
indicate insertions of the current J#(x); the cross-hatched disk represents the sum
of diagrams with the indicated external lines.

0, J# = 0 for the current J#* requires (19.2.48) to vanish when contracted
with g#, and so

_ i
Mgy = = 4, N}, (19.2.49)

One immediate consequence is that unless N, has a pole at g — 0, the
matrix element Mg, for emitting a Goldstone boson in a transition o — f
vanishes as g — 0. This is called an ‘Adler zero.®

In fact, it often happens that Ny, does have a pole at g = 0. This is
because the vertex for the current J#(x) might be attached to an external
line of the process &« — f. (See Figure 19.2.) For instance, if a four-
momentum g* is carried away by a current J* inserted into an outgoing
or incoming particle line of four-momentum p and mass m, then the
internal line that connects this vertex to the rest of the diagram will carry
a four-momentum p# + g# or p* — g* respectively, and its propagator will
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therefore contribute to Ny, a factor

2 217t _ 7 - 2]t - L

(pxq) +m] [i p q+q] izp.q' (19.2.50)
For a fixed direction of q, the factor 1/|q| from Eq. (19.2.50) cancels the
factor |q| in Eq. (19.2.49), yielding a finite (though g-direction-dependent)
result in the limit |q] — 0. On the other hand, the contribution to N%,
of diagrams in which the current J# is attached to an internal line of the
process @ — f has no singularity for |q| — 0, and therefore is cancelled
by the factor |q| in Eq. (19.2.49). Thus Eq. (19.2.49) can be interpreted
to mean that the amplitude for emitting a very soft Goldstone boson in
a process o — B can be calculated from graphs in which the Goldstone
boson is emitted only from the external lines of the process, with the vertex
for emitting the Goldstone boson given by applying Eq. (19.2.49) to the
transition between single-particle states.

The effective action formalism can be used to derive interesting results
for the interactions of the Goldstone bosons with each other and with
other scalars. For this purpose, we note that if we define a set of
renormalized Goldstone boson fields #, for which

e_ipB-x(sab
(Ba|mp(x)|0) = , (19.2.51)
(2m)3724/ 2%
then Eq. (19.2.39) tells us that
bn(x) = Z Zanma(x)+ ..., (19.2.52)

1}

where ‘... indicates fields that do not create Goldstone bosons. But
Eq. (19.2.40) gives Zu, = 5., F;' (ity¢)p. Thus the amplitude for any
reaction among N zero-four-momentum Goldstone bosons 7g, ..., Tay,
is the same as would be calculated in the tree approximation from the
effective interaction

1
:WCH‘ = mgal---an{nal o °naN . (19.2.53)
with
_ - . - oMV(4)
— N Al ST e (]
Bajray = beN a1}?1 FﬂNbN(ltbld))Hl (Ithd’)ﬂN 3¢n; Lo a(rb”N ¢=¢ |

(19.2.54)
Eq. (19.2.4) at ¢ = ¢ then implies that the sum of all ‘tadpole’ graphs
for a single Goldstone boson line disappearing into the vacuum vanishes,
and Eq. (19.2.6) tells us that the amplitudes vanish for Goldstone bosons
to make transitions at zero four-momentum into any other scalars. To
go beyond these results, we can continue to differentiate with respect to
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the scalar fields. For instance, the derivative of Eq. (19.2.5) gives for any
symmetry generator t:

V(¢ V(¢) BV () o
Z OPndm e +Za tm“‘%mtnﬂﬁk—& (19.2.55)

Taking ¢ as one of the broken symmetry generators t,, setting ¢ = ¢,
contracting with (tp¢h)m(tc¢b)s, and using Eq. (19.2.6) gives

_PVi¢)
Z 5¢n5¢m9¢

so the sum of all graphs w1th three external zero-four-momentum Gold-
stone boson lines vanishes. In particular, this means that in general
processes, to leading order in small Goldstone boson energies, low energy
Goldstone bosons are not emitted from external low energy Goldstone
boson lines.

(tacb) (to@)m(ted)e =0, (19.2.56)

19.3 Spontaneously Broken Approximate Symmetries

In the previous section we dealt with exact symmetries of the action that do
not leave the vacuum invariant, and are said to be spontaneously broken.
We shall now consider the effect of adding small symmetry-breaking terms
to the action in such a theory. Such spontaneously broken approximate
symmetries are important in the theory of strong interactions, and in
some areas of condensed matter physics. As we shall see, the spontaneous
breakdown of an approximate symmetry does not lead to the appearance
of massless Goldstone bosons, but of low-mass spinless particles, often
called pseudo-Goldstone bosons.”

We continue here to treat translationally invariant theories, in which
the effective action is expressed as in Eq. (19.2.8) in terms of an effective
potential V(¢) that depends on a set of spacetime-independent scalar field
expectation values ¢,. For an action that obeys some set of approximate
continuous symmetries with generators t,, the effective potential may be
written

Vig) = Vol¢) + Vi(9), (19.3.1)
where Vo(¢) satisfies the invariance condition”
5= S8 (t)onton = 0 (1932

* We denote general symmetry generators as t,, £z, tc., in contrast with the independent
broken symmetry generators, for which the subscript « takes values a, b, etc.
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and Vi(¢h) 1s a small correction due to the symmetry breaking in the
action. Suppose that this perturbation shifts the minimum of the potential
from ¢, the minimum of Vo(¢), to ¢ = ¢ho + ¢1, Where ¢y is small, of first
order in the symmetry-breaking perturbation. The equilibrium condition
for the vacuum is then

oV ()
=0. 19.3.3
Odn |p=pgo+o) ( )

The zeroth-order term on the left is just [0 Vo(¢h)/0¢n) p—g,, Which vanishes
because ¢y i1s defined as the minimum of Vy(¢). Thus the first-order terms

must also vanish, and so:
*Volg) Vi(¢)
Pim + =0. (19.3.4)
2 U4ulm bmge  09n lg=gs
Eq. (19.2.6) holds here with V replaced with the invariant term V; and ¢
replaced with ¢y:

0*V,
Z a¢' %((f) (ta)n! ¢'0! =0. (1935)
4 mn t,'b ¢’0
Hence multiplying Eq. (19.3.4) with (t4¢0)» and summing over n gives
(tapo) “19) = 0. (19.3.6)
ad)” b=t

Recalling the interpretation of V(¢) as the generating function for one-
particle-irreducible graphs, and noting that in the absence of the pertur-
bation V; the Goldstone components of ¢, are those in the direction of
txo (see Eq. (19.2.33)), the left-hand side of Eq. (19.3.6) is proportional
to the sum of all ‘tadpole’ graphs, in which a pseudo-Goldstone boson
disappears into the vacuum. Eq. (19.3.6) may thus be paraphrased as
the condition that, to first order in V|, pseudo-Goldstone bosons have no
tadpoles.

The moral of this calculation is that if we do not start with a zeroth-
order vacuum expectation value that satisfies Eq. (19.3.6), then even a small
perturbation will produce a large change in ¢, invalidating the expansion
of ¢ around ¢y. Fortunately, for compact Lie groups it is always possible
to choose ¢ to satisfy Eq. (19.3.6). To see this, note that the invariance of
the potential Viy(¢) under a group of real linear transformations ¢ — L¢
implies that if ¢. is one minimum of the potential, then so is L¢.. For
continuous groups of transformations, we can always parameterize the
transformations as L(6), in such a way that

8L(0)
FIz

L7'(6) = iNap(0)t (19.3.7)
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where Ng is a non-singular matrix depending on the group parameters
0,. (Recall that in a real representation, it is it, rather than ¢, that is
real.) Now consider the function Vi(L(0)¢+). Where the group is compact,
L{0)¢» maps out a compact manifold as # runs over the group volume,
and as long as Vi(¢) is continuous, it must have a minimum on any such
compact surface, say at a point L(f.)¢.. The derivative of Vi(L(8)¢+)
with respect to 0, is

GV:(L(B Z avi(¢)
O

This must vanish at the minimum 8., and since N is non-singular, this
implies that

Nag(0) (itgL(0)pe)s . (19.38)
$=L(0)r

oVi(¢
0=2 aqsn

H

(taL(Be) s )n . (19.3.9)
¢=L(B:)ps

But then Eq. (19.3.6) is satisfied if we make the choice ¢y = L(8.)¢-.

Eq. (19.3.6) is known as a vacuum alignment condition,? because it gen-
erally has the effect of forcing the direction of the symmetry breaking
by the vacuum into some sort of alignment with the symmetry-breaking
terms in the Hamiltonian. For instance, consider the case of SO(N) spon-
taneously broken to SO(N — 1), introduced in the previous section. In
the absence of any symmetry-breaking perturbation, there is no way to
tell which SO(N — 1) subgroup is left unbroken; if the dynamics of the
theory leads to a ground state that is invariant under the SO(N — 1)
subgroup of SO(N) that leaves some N-vector ¢y, invariant, then by
performing an SO(N) rotation we can find a ground state that is in-
variant under the SO(N — 1) subgroup that leaves any other N-vector
invariant. If we add a perturbation that transforms under SO(N) like,
say, the component Y, u,¢, of an N-vector ¢, (not necessarily consisting
of elementary scalars), then the Hamiltonian is invariant under a spe-
cific SO(N — 1) subgroup of SO(N), consisting of rotations that leave
the vector u invariant. Without a vacuum alignment condition, we might
think that the remaining exact symmetry is SO(N — 2), consisting of
those rotations that leave invariant both u and the vector ¢ character-
izing the vacuum symmetry. But with Vi(¢) = 3., un¢n, the condition
(19.3.6) tells us that at the true vacuum, 3_,(txo)uttn = 0 for all SO(N)
generators t,. The SO(N) generators t, span the space of all antisym-
metric N x N matrices, so this condition requires that ¢ must be in the
same direction as u, and so the unbroken symmetry is SO(N — 1), not
SO(N - 2).

According to the general results of Section 16.1, the mass matrix Mg
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of the pseudo-Goldstone bosons is given to first order by

0’V (4)
, 19.3.10
a¢ma¢ﬂ ¢=¢0+¢] ( )

where Z,, is the field renormalization constant defined by Eq. (19.2.39).
Since the mass matrix (19.3.10) vanishes in zeroth order, the first-order

ab - Z Zanzbm

terms give
*Vo(¢) *Vi(¢)
ab = Zzanzbm [———“"_ P17 + ,  (19.3.11)
where Z,, is here given by the zeroth-order approximation to (19.2.40):
Zan =Y Fa' (ityo)n - (19.3.12)
b

To calculate the mass matrix (19.3.11), we take t in Eq. (19.2.55) to be
one of the broken symmetry generators t,, set ¢p = ¢bg, and contract with

(tePo)mP1s:
3
0= Z a 0 VO(‘f-’)

b 0PmI¢n |, ‘f""*’ (ta@o)n(ts Po)m
+zm: gd:%(j’z b=do Cadnltodoln + E g:;:%i) (tatbﬁbo)n(ﬁv.

The second term on the right-hand side vanishes accordmg to Eq. (19.2.6),
while the third may be rewritten using Eq. (19.3.4), leaving us with

_PVo(d) _ oVi(¢)
;; Z D10 dmi b - d1(tapo)n(too)m = N

(tatpo)n -

¢=ey
(19.3.13)
Using this in Eq. (19.3.11) then yields a formula for the pseudo-Goldstone
boson mass matrix in terms of Vy:

2 —1p— *Vi()
cd = T Z Ff.'aleE::1 l(ta¢0)n(tb¢0)m
ab ad’mad-’n b=
Vi)
Fllalogo)n — o ¢=¢0] : (19.3.14)

For this to be a sensible mass matrix, it had better be positive. To
see that it is, it is convenient to rewrite this result in terms of derivatives
with respect to the group parameters 0,. Differentiating Eq. (19.3.8) with
respect to g, setting & = 6., and using Eq. (19.3.9) and ¢o = L(0s)¢.
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gives

_y PVIL(9)ps)
ab—cdzaﬁN (0) Nog O Fid 50 70,

(19.3.15)
B=B!

The matrix on the right is posijtive, because O« is the minimum of the
function V1{L(6)¢+).

This formula has a somewhat more familiar version, in terms of the
vacuum expectation value of a double commutator of symmetry generators
with the symmetry-breaking perturbation. Suppose that the symmetry-
breaking perturbation H) in the Hamiltonian is a linear combination

=Y w®, (19.3.16)

of operators @, (not necessarily elementary scalar fields), which furnish a
representation of the symmetry group with generators ¢,, in the sense that

[Tocs(bn] = —(tfx)nmq)m ’ (19317)

where T, are the quantum mechanical generators of the symmetry group.
According to the results of Section 16.3, the symmetry-breaking part of
the potential is

Vi) = =3t (19.3.18)

the subscript in the middle expression indicating that the expectation value
is to be taken in the state of minimum energy in which ®, has expectation
value ¢,. The vacuum alignment condition (19.3.6) then reads

0= Z tn(toapo)n »

or using Eq. (19.3.17)
0= {[T,, Hil)o . (19.3.19)

the subscript 0 now indicating that the expectation value is to be taken
in the vacuum state, in which ®, has expectation value ¢g,. Also,
Eq. (19.3.14) gives the mass matrix here as

M= ZFc_aleb Z“n (EalpPo)n

and, using Eq. (19.3. 17) this is
My = Z Fo Pt ([Ta [Ty, HillYo - (19.3.20)
This is symmetric in ¢ and d. To see this, note that the Jacobi identity

and group commutation relations may be used to wrile the difference
of Eq. (19.3.20) and the same with ¢ and d interchanged as a linear



182 19 Spontaneously Broken Global Symmetries

combination of terms ([T,, H]}¢, which vanish according to the vacuum
alignment condition (19.3.19). The mass matrix (19.3.20) is also posi-
tive, because the point 8 = 0 is at the minimwmn of the vacuum energy
(exp(—i0, T,)H1 exp(if, T,))o for rotated vacuum states exp(if, T,)|0).

19.4 Pions as Goldstone Bosons

The classic example of a broken symmetry in elementary particle physics
is the approximate symmetry of strong interactions known as chiral
SU(2) x SU(2). According to our present understanding, this symme-
try arises because there are two quark fields, u and d, that happen to
have relatively small masses. (An estimate is given in Section 19.7.) In the
approximation that the # and d are massless, the Lagrangian (18.7.5) of
quantum chromodynamics is

£ =~y Dy — dy*Dyd — -+ (19.4.1)

where D, is a color-gauge-covariant derivative (see Eq. (15.1.10)) and * -’
refers to terms involving only gluon fields and/or other quark flavors, but
not u or d. This Lagrangian is invariant under the transformations

(z)-»ﬂpGéVf+in@La (z), (19.4.2)

where ¢ is the three-vector® of isospin matrices

Lot Lo i _Litoo
'Ta\-t o) 2Ta2\i o) PT2y0 —1)°

and 8¥ and 64 are independent real three-vectors.”™ This Lie algebra
may be written 1n terms of two commuting SU(2) subalgebras that act
respectively only on the left- and right-handed parts of the quark fields,
with generators

. L - » 1 -
i, = E(l -|‘ })S)f ) Ip = E(l —})S)t (1943)

" We use arrows for three-vectors in isotopic spin space to distinguish them from
ordinary three-vectors, which will continue to be indicated by boldface letters,

" The Lagrangian (19.4.1) has this symmetry because 7spy* = —pysy* = +Pphys.
The Lagrangian also has two other continuous internal symmetries. One is baryon
conservation, the invariance under a common phase transformation of the v and d
quark fields. This is unbroken and commutes with the other symmetries, so it does
not affect our discussion in this section. The other symmelry is invariance under
multiplication of the quark doublet with cxp(ixys). As discussed in Section 23.5, this
U(1) symmetry is strongly intrinsically broken by non-pertutbative effects associated
with instantons.
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satisfying the commutation relations

tLi, trj] =iep tix , (19.4.4)
[fRi, tRj] = T€ijktry , (19.4.5)
[l‘Li, IRJ‘] =0. (1946)

The underlying symmetry group is therefore identified as SU(2) x SU(2).
It has another obvious SU(2) subgroup, consisting of ordinary isospin
transformations with 64 = 0, and generators

=1 +ir. (19.4.7)

The algebra of SU(2) x SU(2) may be written in terms of ¢ and another
triplet of generators:

I —1g = Vst (19.4.8)
with commutation relations
i, 1] = i€k tr (19.4.9)
[ti, x;] = € Xk (19.4.10)
[xi, x;] = deyjp by - (19.4.11)

We will see that the SU(2) x SU(2) symmetry is spontaneously broken,
while its isotopic spin subgroup generated by the f is an ordinary unbroken
(though approximate) symmetry,

By Noether’s method (see, e.g.,, Section 7.3) we may derive from the
Lagrangian (19.4.1) the conserved vector and axial-vector currents

Ve =igy'iq, AF = igytysiq (19.4.12)

8 VH =8,Ak =0, (19.4.13)
where g 1s the quark doublet,

qE(Z). (19.4.14)

Their associated charges are the generators respectively of isospin and of
the remaining symmetries

i :/d% o (19.4.15)

X =/d3x.2’10. (19.4.16)

e

The currents (19.4.12) are normalized so that the quantum operators T
and X satisfy the same commutation relations as the matrices ¢ and %

[T;, Tﬂ = if'ijk Tk . (19417)
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[Ti, Xﬂ = ifijk Xk s (19418)
[Xf, X}} =i€ijk Tk. (19419)

Acting on the quark fields, these operators induce the transformation
(19.4.2), in the sense that

[T, q] =_igq, (19.4.20)
[5(, q] = —%q. (19.4.21)

This symmetry if exact and unbroken would require any one-hadron
state |h) to be degenerate with another state X |h) of opposite parity and
equal spin, baryon number, and strangeness.” No such parity doubling
is seen in the hadron spectrum, so we are forced to conclude that if the
chiral symmetry SU(2) x SU(2) is a good approximation at all, then it
must be spontaneously broken to its isotopic spin SU(2) subgroup. In
this case the operator X takes a one-hadron state |h) into a hadron A plus
a massless pseudoscalar Goldstone boson, so there is no need for parity
doubling of the hadron spectrum.

The question of whether quantum chromodynamics actually exhibits
such a pattern of symmetry breaking involves all the complications of
strong interaction dynamics. As we shall see in Section 19.9, there are
general grounds for believing that the isospin SU(2) is not spontaneously
broken in quantum chromodynamics, but it is much more difficult to
show that the chiral part of SU(2) x SU(2) is spontaneously broken.
(But according to an argument given in Section 22.5, the SU(3) x SU(3)
symmetry of quantum chromodynamics with three massless quark flavors
must be spontaneously broken.) It was something of a breakthrough in the
1960s to realize that one does not have to have a detailed understanding
of the mechanism of the breaking of chiral symmetry; we derive the most
interesting consequences of this symmetry breaking by simply assuming
that SU(2) x SU(2) is spontaneously broken to SU(2).

The u and d quarks have small but nonzero masses, so the SU(2) xS U(2)
symmetry is not exact. A broken approximate chiral symmetry entails the
existence of an approximately massless Goldstone boson with the same
quantum numbers as the broken symmetry generator X: it must be a
state of negative parity, zero spin, unit isospin, and zero baryon number

T One way to satisfy this condition is for the hadron to have zero mass, with two states
|+) of helicity +3 and equal spin, baryon numbet, and strangeness; the states |+)+|—)
and |+) —|—) would then have opposite parity. It is not true that an unbroken chiral
symmetry necessarily implies a zero nucleon mass, unless we make further assumptions
about the matrix elements of the axial-vector current. But as we shall see in Section
22,5, an exact unbroken chiral symmetry would in (act requirc that some baryons be
massless.
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and strangeness. In fact the lightest of all hadrons is the pion, which
has precisely these quantum numbers, so we are led to identify the pion
as the Goldstone boson associated with the spontaneous breaking of
approximate chiral symmetry. As we shall see below, it is m2 rather
than mirr that is proportlonal to a linear combination of m, and my,
and m2/m% ~ 0.022 is very small, so the consequences we derive from
spontaneously broken SU(2) x SU(2) should be reasonably accurate.

In exploring the consequences of chiral symmetry for pion interactions,
it is very useful to note that although the chiral symmetry of the strong
interactions does not depend in any way on the existence of weak in-
teractions, the symmetry currents V* and A* happen to be the currents
entering into strangeness-conserving semileptonic weak interactions like
nuclear beta decay. As we shall see in Section 21.3, the standard model of
electroweak interactions requires that the effective Lagrangian for these
interactions at low energy must take the form:

ika
V2
where Z runs over the renormalized fields of the three charged leptons e,

p and t; vy runs over the renormalized fields of the associated neutrinos:
and V? and A% are the charge changing currents

gwk=_

(Vj_ +Ai) > Zyi(l +ys)v, +He  (19.4.22)
£

vi=vitivy, AL = At +idb. (19.4.23)

The constant™ Gy, may be measured from the rates of beta transitions
between states of zero spin within the same isotopic multiplet, such as the
decays nt — n® 4+ et 4+ v, and 0 - YN* + et +v,. The momentum
transfer in these transitions is very small, so parity conservation (in strong
interactions) and rotational invariance tell us that only the matrix elements
of [ d@x V2 = T| —iT, enter in the S-matrix elements for these decays.
This operator has matrix elements between states in a given isospin
multiplet that are just known Clebsch-Gordan coefficients, so from the
rates for these ‘0 — O’ processes we may calculate a value® for the coupling
in Eq. (19.4.22): Gy ~ 1.14959(38) x 1073 GeV~2. On the other hand, in
the process of pion decay, nt —» ut —|— vy, the only current matrix element
we need is the matrix element of A% between a one-pion state and the
vacuum:

IF (5Upn Ipﬂ

202wy 2\/2pﬁ

" G,y is related (o the conventional Fermi coupling constant Gy and the Cabibbo angle
0¢ by Gy = Gr cos 8¢ see Section 21.3.

(VAC|4#(x)|n;) = (19.4.24)
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which is completely known except for the factor F,. The rate for pion
decay turns out to be

GZ kFZ Z(m 2)2
Ir - pt+v)= " (19.4.25)
161rm
From the known rate for mt - ut +v,, T = (2.6033(24) x 1078 5)~!, and
the above value of Gy, one finds thatf
Fr ~ 184 MeV . (19.4.26)

Now let us consider the matrix element of A* between one-nucleon
states. This 1s of interest in its own right, and as discussed in Section 19.2,
it provides information we need to calculate the emission of low energy
pions in collisions of nucleons. Following the same reasoning as used
for the electromagnetic current in Section 10.6, one finds that Lorentz
invargmce and parity conservation require this matrix element to take the
form

(plAL)In) = (2m) 7 &
X ﬁp[—iv ysf(a?) + a'ysg(a®) + igu [v*,v*1ysh(@®) un ,  (19.427)

where g = p, — pp. In the approximation in which the SU(2) x SU(2)
symmetry is exact, the conservation of current requires that

qu{plAL(x)|n) = 0. (19.4.28)
Using the defining equations for the Dirac spinors up and u,,

(i p,+mn)=(i g, +mnu, =0,

we see that
gty [—iy*yslup = —2mniipysu,
and so Eq. (19.4.28) requires that
2myf(a*) = 4°¢(9%) (194.29)

If g(¢%) had no singularity at ¢g> = 0, then (19.4.29) would require that
either my = 0, which is certainly not true, or that f(0) = 0, which s not
true either. In fact, the quantity f(0) is measured in low energy nuclear

1t is common to encounter a pion decay constant f,, which in terms of the F, used
here is variously defined as Fy, F,/\/2, or F;/2.
# The currents A in the standard model have charge conjugation properties that make

the coefficient h(g?) vanish. It is possible that there are ‘second-class’ terms! in the
weak currents with opposite charge conjugation properties that give a non-vanishing
h(g?), but there is no evidence for such terms. As we shall see, keeping the h(g?) term
here has no effect on the inferences drawn {rom chiral symmetry.
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beta decays, like neutron decay, where it is usually called g4; it is found
to have the value

£(0) = g4 = 1.2573(28) . (19.4.30)

The fact that neither my nor f(0) = g4 is small requires that in the limit
of exact SU(2) x SU(2) symmetry, g(g°) must have a pole as g2 — 0:

2mnga
PE
Such a pole is naturally provided by the massless pion that would be
required by the spontaneous breakdown of an exact SU(2) x SU(2) sym-
metry. Suppose that the pion couples to the one-nucleon state as if the
interaction Lagrangian were®? —2iG,n7%NysiN. Eq. (19.4.24) tells us that
the matrix element of the current between a one-pion state and.the vac-
uum is the same as if there were a term in A#(x) of the form F,ot7 /2.
Therefore in the limit g> — 0 the matrix element (19.4.27) has the pole

g(q®) - : (19.4.31)

iq-x

(Pl ) [ 5 i [P/

Comparing with Eq. (19.4.27), we see that one-pion exchange gives the
function g(g?) a pole

] [i(Qn)4 26 pliys )u,,,]

g(q’) - G"‘;f“ (19.4.32)
for g> — 0. Putting together Eqgs. (19.4.31) and (19.4.32), we find
Gun = zm;g“‘ . (19.4.33)

This is the famous Goldberger-Treiman relation.!! It works reasonably
well; taking my = (m, + m,)/2 = 938.9 MeV, g4 = 1.257, and F, = 184
MeV gives Gyy =~ 12.7, in fair agreement with the value®® G,y = 13.5
measured in various ways (including the effects of the one-pion pole
in nucleon—nuclear scattering and the one-nucleon pole in pion-nucleon
scattering.)

In the real world the pion is not massless and the SU(2) x SU(2)
symmetry 18 not exact (even before being spontaneously broken.) This
circumstance may be analyzed using the general formalism presented in

" This is the convcntional definition of the pseudoscalar pion—nucleon coupling G,y.
The factor 2 is introduced here to cancel the 1/2 in the isospin matrices,

¥ The textbook'? value is G2, /dn = 14.3, or Gy = 13.4. More recently, a high precision
study" of neutron—proton charge-exchange scatteting at 162 MeV has given a value
G2y /4n = 14.6 + 0.3, or Gpy = 13.5.
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the previous section, The Lagrangian (19.4.1) yields a symmetry-breaking
term in the Hamiltonian

Hi = myuiiu + mgdd = (m, + mg)®; + (my — mg)d3 (19.4.34)
where

of = Yau+dd), ®; = (i — dd) . (19.4.35)

=3
The operators @} and @3 are spatial scalars and, as this notation is

meant to suggest, they transform under SU(2) x SU(2) as components of
independent chiral four-vectors @5 :

&t = igysiq, o = lgq, (19.4.36)
& = giq, oy = — Ligysq . (19.4.37)
These are chiral four-vectors, in the sense that
[T, @ni] = =3 (T )%, (19.4.38)
X, (bg] = =S (@)m® (19.4.39)
i

where 9 and 4 are Hermitian 4 x 4 matrices that furnish the four-vector
representation of the algebra of SU(2) x SU(2) = SO(4):

(Tadpe=—1€c, (Tapa=(Ta)p=(Tuaa=0, (19.4.40)
(Za)os = — (Xa)ap = —i0ap (Zedab =(Z)aa=0. (19.441)

This notation makes it easy to see that the vacuum alignment conditions
for generators Ty, T3, X1, X», and X3 respectively take the form

0= (®3)0 = (D))o = (@} )o = (D3 )o
= (my + ma){®7 Yo + (ma — m,){DF Yo . (19.4.42)

We have been assuming that in the absence of # and d quark masses, the
symmetry SU(2) x SU(2) is spontaneously broken in such a way as to
preserve unbroken the SU(2) symmetry generated by T as well as parity,
in which case (®] )¢ points in the four-direction and (®, )¢ = 0 vanishes,
so that the conditions (19.4.42) are satisfied. But with m, = my = 0, we can
find other symmetry-breaking solutions with other definitions of parity by
subjecting this one to an arbitrary SU(2) x SU(2) transformation. Thus
in the absence of u and d quark masses, there would be no way to tell
in what direction (®; )¢ = 0 should point, or which SU(2) subgroup of
SU(2) x SU(2) is left unbroken, though in all cases (®; )o = 0. The
vacuum alignment condition (19.4.42) tells us that, with the symmetry
broken intrinsically by the perturbation (19.4.34) and spontaneously in
such a way that (®, }¢ = 0, the vacuum must ‘line up’ in such a way
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that {®;"}o = 0 points in the four-direction, so that the unbroken SU(2)
symmetry is ordinary isospin.

This formalism may be used to calculate the pion mass. From Egs.
(19.4.39)(19.4.41) we find

[Xo, [Xp, D511 = 0p®F . [X4, [ X5, BT]] = @, 63 . (19.4.43)

Also, isospin invariance tells us that the symmetry-breaking parameter F
introduced in Section 19.2 is proportional to d,, with a proportionality
factor that according to (19.4.24) is just F;/2, so

Fop = 0gpFr/2 . (19.4.44)
Eq. (19.3.20) thus gives the pion mass matrix as
mﬁb = abmi , (19.4.45)
where
m2 = 4(my, + myg)(®7F Yo/ FZ . (19.4.46)

It 1s striking that the masses of the charged and neutral pions turn out to
be equal, even though we have made no assumption about the ratio of m,
and my. We shall see below that this ratio is not near unity; isospin is a
good quantum number not because the u and d quark masses are nearly
equal, but because they are small. Also, as promised, we see that it is the
square of the pion mass that is proportional to the quark masses, so the
quark masses should be quite small. (See Section 19.7 for an estimate.)
The observed pion mass difference arises not from the u—d quark mass
difference, but from electromagnetism. Indeed, the pion isospin multiplet
is the only one whose mass difference has been successfully calculated on
the basis of one-photon exchange alone !4

Of course, even with quark masses taken into account, Eq. (19.4.24) can
still be used to define F;; its divergence gives

Fxéijm%eip“ X

2(2m)32,/2p?

(VAC|8, A (x)|;) = (19.4.47)

Instead of assuming that 8,A* vanishes, we can now assume that it is
small, of order m2, except where a pion pole compensates for the smallness
of m2. According to Eq. (19.4.47), the behavior of matrix elements of 3,4#
near a one-pion pole is the same as if §,4* were F,m2 times a properly

renormalized pion field. For instance, the one-nucleon matrix element of
d,A% should be

ani
2

~1

] [i(2n' )42G,INEP(_i}’5)un} )
(19.4.48)
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so in terms of the form-factors in (19.4.27)

Gon F nm%
Q% +mz

This is expected to be valid when g° is of order mZ, and not only in the

limit g* —» —m2, because the pion pole dominates matrix elements of d,A*
for all such small g%. Also, for such ¢, in place of Eq. (19.4.32) we have

q’g(q?) — 2myf(g*) ~ — (19.4.49)

G.NF.
2 T T
~ = . 19.4.50
8@ = ( )
From Eqs. (19.4.49) and (19.4.50) we find that for g of order mZ,

J(@%) = GanFr [ 2my . (19.4.51)

It should be no surprise that this function is roughly constant over the
range of g from zero to of order mZ, because it has no one-pion pole,
and there is nothing else that could give it a substantial variation in such
a small range of g°. This constant value is approximately f(0) = g4, and
Eq. (19.4.51) thus again yields the Goldberger-Treiman relation.

We can now use the results of Section 19.2 to calculate the amplitude
for emission of a single low energy pion in an arbitrary process « — f§. We
found that the amplitude is to be calculated from Feynman diagrams in
which the pion is emiited only from the external lines of the process, and
Eq. (19.2.49) shows that these contributions are to be calculated as if the
pion field interaction were 0,7 - AN/ Fx, in which the subscript N indicates
that we are to drop the one-pion pole term in matrix elements of the
axial-vector current. From Eq. (19.4.27) (and using isospin invariance) we
conclude that for soft pions emitted from a nucleon line this interaction
is effectively

84

T

Using the free-particle Dirac equation, we can see that for nucleons on
the mass shell (that is, at the one-nucleon poles in Figure 19.2) this is
equivalent to the pseudoscalar interaction —2imy g4 - NystN /Fr. This

provides yet another demonstration of the Goldberger-Treiman relation
(19.4.33).

6!11*: N'})‘u”yst .

* %k ok

Our discussion here has not paralleled the historical development of
these ideas. In fact, the course of historical development was chronologi-
cally almost exactly opposite to the line of argument presented here. Bro-
ken symmetries in particle physics started with the Goldberger-Treiman
relation (19.4.33), which was derived'! in 1957 on the basis of a dynamical
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calculation of pion decay. In order to explain the surprising success of
this very approximate calculation, several theorists!” introduced the idea
of a ‘partial conservation of the axial-vector current’ (PCAC), the idea
that although the axial-vector current is not conserved (as shown by the
fact that pions do decay) its divergence 0,4/, is proportional to the pion
field. In itself, this assumption is meaningless — we saw in Chapter 10
that any field with a non-vanishing matrix element between the vacuum
and one-pion states may be regarded as a pion field. Although it was not
clear at the time, what was really being assumed was that the divergence
of the axial-vector current is small, of order m2, except where a pion pole
gives 1t a large matrix element. The problem was greatly clarified by a
1960 paper of Nambu,' who pointed out that the axial-vector current
could be regarded as exactly conserved in the limit of zero pion mass, in
which case the Goldberger—Treiman relation could be derived as we have
done here. In this and a subsequent paper with Jona-Lasinio,!” Nambu
recognized that the appearance of this massless or nearly massless pion
was a symptom of a broken exact or approximate symmetry. With other
collaborators,!®* Nambu also showed how to calculate the rates of emis-
sion of a single soft pion in various processes. Subsequently Goldstone?
remarked that broken symmetries always entail massless bosons, and this
was proved in 1962 by Goldstone, Salam, and myself,’ using the arguments
presented here in Section 19.2.

None of this early work on pions as Goldstone bosons depended on
any specific assumptions about the nature of the broken symmetry group;
for instance it might have been a direct product of three commuting U(1)
groups, whose generators form an isotopic spin vector, or it might have
been the non-compact group SO(3, 1), for which a minus sign appears on
the right-hand side of the commutation relation (19.4.19). The nature of
the broken symmetry group became important only with the consideration
of processes involving more than one pion, starting with the Adler-
Weisberger sum rule in 1965, whose success showed that the broken
symmetry is indeed SU(2) x SU(2). (Such processes are discussed in the
following section.) The identification of the symmetry group SU(2}xSU(2)
led to a shift of emphasis,?® toward the implications of this symmetry
within strong interaction physics, and away from an earlier concentration?!
on the currents themselves.

All of this work was done without a specific theory of the strong
interactions. One of the reasons for the rapid acceptance of quantum
chromodynamics in 1973 as the correct theory of strong interactions was
that it explained the SU(2) x SU(2) symmetry as a simple consequence of
the smallness of the u and d quark masses.



192 19 Spontaneously Broken Global Symmetries
19.5 Effective Field Theories: Pions and Nucleons

In Section 19.2 we learned how to calculate the amplitude for emission
of a single low energy Goldstone boson B in a transition « — 8 + B by
applying the condition of current conservation to the matrix element of
the symmetry current between the states o and 8. In this calculation we
never had to use any information about the details of the broken symmetry
group; current conservation was all we needed. A new element enters if we
wish to calculate the matrix element for the emission and/or absorption
of two Goldstone bosons, as for instance in a Goldstone boson scattering
process. Here we must apply the condition of current conservation to a
matrix element like

BIT {7 (x1), J52(x2)}|e)

where the states o and f contain the other particles besides the two
Goldstone bosons participating in the reaction. But when we let the
divergence operator ¢/0x]' act on this matrix element we encounter a
Non-zero CODtrlbUtlDI‘l from the derivative of the functions 0(x) — x9)
and 0(x§ — x{) that appear in the definition of the time-ordered product
T{---}. This contribution is equal to the matrix element of an equal-
time commutator 3(xy — x9)[J0(x1), Jzz(xg)] whose value depends on the
commutation relations of the group algebra. This makes such multi-
Goldstone-boson processes specially interesting, because they can be used
to decide experimentally on the nature of the broken symmetry group, in
a way that is not possible for processes involving just a single Goldstone
boson. Because of the appearance of such current commutators, this
approach is known as the method of current algebra.?!

The current algebra method was used in early calculations of multi-
Goldstone-boson amplitudes.?> Unfortunately, such calculations are ted-
1ous, especially when three or more Goldstone bosons are involved, and it
was also difficult to see how to deal with symmetries like the chiral sym-
metry of quantum chromodynamics that are not exact. For this reason
a different and more physical calculational technique was introduced,?
based on the use of effective Lagrangians: We simply calculate the Gold-
stone boson amplitudes by the methods of perturbation theory, using
some Lagrangian for the Goldstone bosons and the other particles in the
states « and § that obeys the assumed broken symmetry.

Originally the justification for the effective Lagrangian procedure was
based on current algebra. By using current algebra one could see that
the amplitude for emission of a set of low energy Goldstone bosons in
a process o« — f§+ By + By + -+ is fixed once one knows the equal-
time commutation relations of the currents associated with the broken
symmetries as well as the matrix element for the process « — f§ and the
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matrix elements of the currents between various one-particle states, We
know that a Lagrangian that respects the broken symmetry will allow
the construction of conserved currents with the appropriate equal-time
commutators by Noether’s technique, so if we simply calculate the low
energy Goldstone boson amplitudes with such a Lagrangian and insert
the correct values for Mp, and the one-particle matrix elements of the
currents, we must get the same answer as provided by current algebra.
In the case of interactions among Goldstone bosons alone, the states o
and f may both be taken as the vacuum, and we do not need any extra
information beyond the matrix element F between a Goldstone boson
state and the vacuum.

In the first example of this sort,?® the starting point was the Lagrangian
of the g-model.** Restricting our attention for the moment to the bosonic
sector of this model, its Lagrangian is the $O(4)-invariant one used as an
example in Section 19.2:

2
L = ~30ui b — T bub = Gl (195D

where n is understood to be summed over the values 1, 2, 3, 4, with .:Tb an
isovector pseudoscalar field and ¢4 an isoscalar scalar field.

The immediate problem faced by any sort of effective Lagrangian is that
in order to use it to calculate scattering amplitudes, we must either include
all Feynman diagrams of all orders of perturbation theory, or else find
some rationale for dropping higher-order diagrams. We can find no such
rationale with Lagrangians like (19.5.1), in which the broken symmetry
1s realized through linear transformations on the various fields. Fortu-
nately any such Lagrangian can be recast in a form that allows the use of
Feynman diagrams to generate an expansion for scattering amplitudes in
powers of Goldstone boson energies. To do this, we perform a symmetry
transformation at every point in spacetime that eliminates the fields cor-
responding to the Goldstone bosons of the theory. The Goldstone boson
degrees of freedom reappear in the transformed theory as the parameters
of this symmetry transformation. However, since the Lagrangian is in-
variant under spacetime-independent symmetry transformations, it cannot
have any dependence on the new Goldstone boson fields when they are
constant, and so every term in the Lagrangian that involves these new
Goldstone boson fields must contain at least one spacetime derivative of
the field. These derivatives introduce factors of the Goldstone boson en-
ergy when we calculate S-matrix elements for Goldstone boson reactions,
and as we shall see we can use the Lagrangian to construct a series for
the §-matrix elements in powers of these energies.

For instance, to recast the Lagrangian (19.5.1) in a useful form, we write
the four-vector ¢, as a chiral rotation R acting on a four-vector {0,0,0, s}
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whose first three components (the Goldstone part of ¢} vanish:

¢n(x) = Rna(x)o(x) (19.5.2)
with Rpm(x) an orthogonal matrix
RT(x)R(x) =1 (19.5.3)

and therefore

o(x) = /3 dulx)? (19.5.4)

The Lagrangian (19.5.1) then becomes

1 & 2 1 A
¢==3 E(Rmap“JrGauRm) ~ =Tt (1955)

Because R is an orthogonal matrix, the 0,00*¢ term is R-independent,
and the cross-term vanishes

1
SRy =1, 3 Rud,Ru= EOFZR§4=0,

so . becomes

4
A
£ = —; 8,00"a — % 02 " 0¥ Rng 0uRus — ;,ﬂzaz — Za" . (19.5.6)

n=1

If .#? is negative then ¢ has a non-vanishing vacuum expectation value,
given in lowest order by the position of the minimum of the sum of the
last two terms, at ¢ = |#|//A.

In place of the field variables ¢,, our variables now are ¢ —|.#|/ \/I and
whatever other variables are needed to parameterize the rotation R. For
instance, these parameters could be simply chosen as the R;4 themselves
(where a, b, - from now are isovector indices running over the values
1,2,3), with R44 given by the condition that R is orthogonal. A different
parameterization will give simpler final results, and was historically the
first to be used for these purposes. It is to define

D

a = 19.5.7
‘ Py +0 ( )

and take

ZC” 1~ 52 2Ca€b
= 5. = —Iyg o, = > 5 =5a——_,, 1958
Ras Nz Ria, Rua g Rap b ( )
so that
2L, 1-¢2

$a/0 = Ras = 12 $4/0 = Ry = T (19.5.9)
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Then the Lagrangian (19.5.6) becomes

1 . 1 A
¥ = —56“56“6 — 202Du - D¥ — 3 Mot — 2 a*, (19.5.10)
where
N a,¢
D, = = (19.5.11)

1402
Whatever parameterization we use, it is clear that the fields { describe
particles of zero mass, whose interactions all involve field derivatives.
These are (up to a normalization) our new pion fields.

Despite appearances, this Lagrangian is still invariant under $O(4}), but
with §0(4) now realized non-linearly. Under an isospin transformation

with infinitesimal parameters @, the field ¢ simply rotates like an ordinary
isovector, and ¢ is an isoscalar:

=0xl, 66=0, (19.5.12)

so the Lagrangian (19.5.10) is manifestly 1sospin-invariant. On the other
hand, under the broken symmetry transformations parameterized by an
infinitesimal vector €, the original fields transform according to

Op =28py, Opa=—28-¢. (19.5.13)
From Eq. (19.5.7), we then find
Sl =e(1-CH+28@#-8), d0=0. (19.5.14)

The Lagrangian (19.5.10) is invariant under the broken symmetry transfor-
mation (19.5.14) because D, undergoes a linear (though field-dependent)

isospin rotation:?’

6D, =2¢ x & x D, (19.5.15)

and Eq. (19.5.10) is isospin-invariant. Because of the transformation rule
(19.5.15), f)# 1 often called the covariant derivative of the pion field.

The transformation rules (19.5.12) and (19.5.14) specify what is called a
non-linear realization of the group SU(2) x SU(2).% The general theory of
non-linear realizations of Lie groups is given in the next section; we shall
show there that, up to field redefinitions, the transformation rules (19.5.12)
and (19.5.14) provide the most general realization of SU(2) x SU(2) in
which the isospin SU(2) subgroup is realized linearly on E .

We see that each interaction of these new pion fields is accompanied
with a spacetime derivative, so that the effective coupling is weak for low
pion energies. (This remark will be made more precise below.) Therefore
for sufficiently small pion energies we may use this Lagrangian in the tree
approximation to reproduce the soft-pion theorems of current algebra. For
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this purpose, it 15 only necessary that the Lagrangian be §0(4)-invariant.
But since the ¢ field is an S§O(4) scalar, it plays no role in maintaining
the $O(4) invariance of the Lagrangian, and may be simply discarded.”
Of course, this procedure changes the physical content of the theory,
but it does not change the amplitudes given by soft-pion theorems. The
L.agrangian (19.5.10) then simplifies to
2 2 AP Au?
o= Tppno E oL
2 2 (142
where F = 2(a) = 2|.#|//A. (As we shall soon see, this F is the same as
the constant F, discussed in the previous section.) For many purposes it
is more convenient to work with a conventionally normalized pion field

(19.5.16)

# = F{ (19.5.17)
for which the Lagrangian (19.5.16) reads
o s
gL Ot O (19.5.18)

2(1 +#2/F2)?

The factor 1/F acts as a coupling parameter that accompanies the in-
teraction of each additional pion. Eq. (19.5.18) describes what is often
called the ‘non-linear o-model’ for the special case of SU(2) x SU(2)
spontaneously broken to SU(2).

An important point: to derive Eq. (19.5.18) it was not really necessary
to start with the ‘linear o-model’ Lagrangian (19.5.1). Indeed, we did not
need to start with any specific theory. Eq. (19.5.18) can be used simply
because it is invariant under the SO(4) transformation (19.5.12), (19.5.14),
and current algebra tells us that this is all we need to get the right results
for low energy pion reaction amplitudes.

Some years after the introduction of effective Lagrangians for soft pi-
ons, there emerged a different justification for the effective field theory
technique,?0 one that does not rely on current algebra and allows calcu-
lations that are not limited to the limit of vanishingly small Goldstone
boson energies. It is based on the realization (not yet formally embodied
in a theorem} that when we calculate a physical amplitude from Feynman
diagrams using the most general Lagrangian that involves the relevant
degrees of freedom and satisfies the assumed symmetries of the theory,
we are simply constructing the most general amplitude that is consistent
with general principles of relativity, quantum mechanics, and the assumed
symmetries. This was the point of view underlying Volume [ of this book.
In the present context, the ‘relevant’ degrees of freedom are the Goldstone

* Alternatively, we can pass to the limit where .# and A go to infinity together, keeping
the expectation value of ¢ constant.
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bosons themselves, together with the particles in the states o and § and
any other particle states that can be produced from them by interactions
with low energy Goldstone bosons. By invoking this justification for
effective field theories, we are freed from any need to wrestle with the
complications of current algebra. More importantly, the modern effective
field theory approach yields results that take us beyond the extreme low
energy limit and allows a systematic treatment of any intrinsic symmetry
breaking.

According to this approach, in order to calculate pion interaction
amplitudes to any desired order in pion energies, we must use the most
general Lagrangian involving a pion field { that transforms according to
the rules (19.5.12) and (19.5.14):

FZ
2

The terms indicated by ... will contain higher powers of the covariant
derivative f)#, or higher covariant derivatives, whose general structure is
described in the next section. The coefficients ¢4 and ¢, are dimensionless,
and all higher terms have coefficients with the dimensionality of negative
powers of mass.

Consider a general process involving arbitrary numbers of incoming
and outgoing pions. We suppose that their energies and momenta are all
at most of some order (, which is small compared with a typical quantum
chromodynamics energy scale (say, the nucleon or p mass). Even though
Lagrangians like (19.5.19) are not renormalizable in the usual sense, we
saw in Section 12.3 that such Lagrangians can yield finite results as long
as they contain all possible terms allowed by symmetries, for then there
will be a counterterm available to cancel every infinity. If we define
the renormalized values of the constants F2, ca, ¢}, ... by specifying the
values of various Goldstone boson scattering amplitudes at energies of
order Q, then the integrals in momentum-space Feynman diagrams will
be dominated by contributions from virtual momenta which are also of
order Q (because renormalization makes them finite, and there is no other
possible effective cut-off in the theory.) We can then develop perturbation
theory as a power series expansion in Q.

Each derivative and hence each f)# in each interaction vertex contributes
one factor of Q to the order of magnitude of the diagram; each internal
pion propagator contributes a factor Q~2; and each integration volume
d*q associated with the loops of the diagram contributes a factor Q%; so
a general connected diagram makes a contribution of order Q¥, where

v=> Vidi—2I +4L. (19.5.20)
i

P = =% DuD* = S (BuDH — 2Dy Doy (D" DY) — ... . (195.19)
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Here d; 18 the number of derivatives in an interaction of type i, V; is the
number of interaction vertices of type i in the diagram, I is the number
of internal pion lines, and L is the number of loops. These quantities are
related by the familiar topological identity (see Eq. (4.4.7)):

L=1-) Vi+1, (19.5.21)

so we can eliminate I and write

v=> Vidi—2)+2L +2. (19.5.22)
i

The point of this is that each term here is positive; every interaction in
Eq. (19.5.19) has at least two derivatives, and of course I > Q. Therefore
the leading term of each process is of order @2, and arises solely from tree
graphs (that is, L = 0) constructed solely from the term in Eq. (19.5.19)
with only two derivatives (that is, V; = 0 for d; # 2):

L. 1 g,momR
$r= g BD' =5 (19.5.23)

For instance, the invariant amplitude M that appears in the pion—pion
scattering S-matrix element

S = i(2n)*6*(pa + ps — pc — ppYM(2n) (16E4EgEcEp)™'/? (19.5.24)

1s given to this order by

Myl = 4F [5ab5cd(—PA “PB — PC * Pp) + SacdpaP4 " Pc + P8 " Pp)
+Baadbelpa - P +P5 - Pc)| (19.525)

where a, b, ¢, d are the isovector indices of the pions A, B, C, D, respectively.
(The effect of the finite pion mass will be taken up a little later in
this section.) Using Eq. (19.5.25) as the leading term does not depend
on any assumption of the smallness of the coupling constant A in the
original Lagrangian (19.5.1), or even on the validity of this formula for
the Lagrangian, but only on the assumed smallness of the typical pion
energy (.

The next term in the amplitude for any Goldstone boson reaction will
be of order Q% and arises both from one-loop graphs involving only the
Lagrangian (19.5.16), and also from tree graphs constructed solely from
the interaction (19.5.16) plus a single vertex arising from the d = 4 terms
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in Eq. (19.5.19):
(v=4) _ OapOcd [ﬁ_ t

Maped’ = ~13 53 s? In(—s) — 53 (> — s + 3% In(—1)

1
- — (t2 — st 4 3u2)ln(—u) + gj%(sz + 1 + uz)ln A?

12n2
L LA S d 19.5.26
5 €48 2 ca(t” + u”)}| + crossed terms , (19.5.26)

where ‘crossed terms’ denotes terms given by the interchanges B « C and
B« D, and s, t, and u are the Mandelstam variables

s=—(p4+ DB} t = —(pa—pc) u=—(p4—Dp).

The dependence of this result on the cut-off A can be eliminated by a
redefinition of the constants ¢4 and c),. The renormalized couplings are

2 A?
4 A?
C"4R = Cf4 — W In (F) s (19528)

where u is an arbitrary renormalization scale of order Q inserted in order
to make the logarithms well-defined. In terms of these renormalized
couplings, the amplitude (19.5.26) takes the form

_ Ouh0 1 —8 1 —t
v=4 abVcd 2 2 2
M((chd)= F4C [— Szln (F) — 12752 (u — 8 —5-31‘ )ln (F)

1 — 1 1
— e (P — &% + 3u%)In ) I c‘4Rs2 — = R(l’2 + uz)
o | W) 2 44
+ crossed terms . (19.5.29)

This sort of calculation can be carried to arbitrary orders in , always
with the result that in each order we encounter a finite number of new
couplings whose renormalization serves to eliminate the cut-off depen-
dence of physical amplitudes. Notice that the ratio of the leading v = 2
terms and the v = 4 corrections is of order Q%/872F2, so this is likely to
be a useful expansion as long as the pion energies are all much less than
an amount of order 2xnF.

This perturbative expansion may also be used to relate the ubiquitous
parameter F to the measured pion decay amplitude F,. Recalling the
transformation rule (19.5.14) for {, the axial-vector current is given by

o0& >

¢-Ar=— . 5¢
(0L}
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and so

- -+ ac}? + ag
A =— (107 , —2§g-( ) 19.5.30
( ) Hul) 0(0ul) ( )

(This A* is the Noether current of the symmetry generated by 2x, which
on the nucleon doublet is represented by 2ysi = yst.) After integrating
out all other fields, and using Eq. (19.5.17) to express { in terms of the
canonically normalized pion field 7, we find

. (1 — #2/F?) 2R(T - OHit)
A = F 3"
T =y S ey vl

Using our perturbative expansion in powers of the pion energy to calculate
(VAC|AH|n), we see that in lowest order the pion decay amplitude here is

F,=F. (19.5.32)

Furthermore Lorentz invariance and Eq. (19.5.22) tell us that the higher-
order corrections must be proportional to powers of p2 /F2, which vanishes
for a massless pion, so Eq. (19.5.32) 1s actually exact in the limit m, — 0.
We may therefore guess that our perturbation expansion will be useful for
pion energies that are less than an amount of order 2nF, = 1200 MeV.

In order to make contact with experiment, we must deal with the fact
that the pion mass is not zero. On the mass shell it is not possible for
the time component of a pion four-momentum to be less than m,, so in
counting powers of the typical pion energy and momentum Q, we must
regard m;, as being of order Q. But we saw in the previous section that m2
is proportional to a linear combination of quark masses, so our formula
(19.5.22) for the order O’ of a given Feynman diagram should be rewritten
to read

(19.5.31)

v=> Vidi+2m—2)+2L+2, (19.5.33)
i

where m; 15 the number of factors of quark masses in the interaction of
type i.

The interactions involving quark masses may be distinguished by their
transformation properties under SU(2) x SU(2), or equivalently, under
S0(4). Eq. (19.4.34) shows that the terms of first order in quark masses
transform as a linear combination of two scalars, the fourth component of
a chiral four-vector @, with coefficient m, +my, and the third component
of a different chiral four-vector @, , with coefficient m, — m;. Thus the
terms AT and A~ in the effective Lagrangian that are of first order
in my + my and m, — my must have the chiral transformation properties
of the fourth and third components of chiral four-vectors, respectively,
and of course be Lorentz scalars. One obvious candidate for a chiral
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four-vector whose fourth component is a scalar is the ¢, with which we
started in this section. According to Eq. (19.5.9), its fourth component is
just a(1 — £3)/(1 + {?). The factor ¢ may be dropped, as it is a chiral
scalar, and therefore has no effect on the chiral transformation properties
of this quantity. We Cdn fix the normdhzdtlon of this term by requiring
that the coefficient of 72 = F2{2 be —mZ /2, so that, apart from an additive
constant,
miF2 72 m: &2

= - (19.5.34)

2 142 2 1+ #2/F?

We shall see in the next section that this is the unique scalar function of
the pion field without derivatives that transforms as the fourth component
of a chiral four-vector. On the other hand, there is no scalar function of
the pion field without derivatives that transforms as the third component
of a chiral four-vector because such a function, if the third component of
a chiral four-vector, would have to be odd in the pion field, and therefore
pseudoscalar rather than scalar. Thus (19.5.34) is the only interaction with
d; = 0 and m; = 1. It is striking that the isospin violating difference in the
u and d quark masses has not only no effect on the pion masses, as we
saw in the previous section, but also has no effect on any non-derivative
multipion interaction,

We are now in a position to do a realistic calculation of the leading v = 2
terms in the pion-pion scattering amplitude. According to Eq. (19.5.33),
these terms arise only from tree graphs constructed from thed =2, m =0
pion interaction in Eq. (19.5.23) or from the d = 0, m = 1 pion interaction
in Eq. (19.5.34). To this order, the invariant amplitude M defined by
Eq. (19.5.24) is now

M=) _ 4F-? [5ab5cd(s—mi)+5ac5bd(r—mi)+5ad5bc(u-—m§)] . (19.5.35)

APt = —

In particular, at threshold s = 4m2, t =u =0, so
MY=D (threshold) = 4m2 F2 [38b0ca — GacObd — Saddpe]
- 0 2
= amlF 2 [TMY —2MG| . (19.536)

where M© and M® are the appropriate tensors representing two-pion
states with isospin T =0o0r T = 2:

M3 = 13apded, (19.5.37)
M )= 1 (8acOba + Baadbe — 2 Sapdea) (19.5.38)
normalized so that TrM(T) = 2T 4 1. This result is usually expressed in

terms of the scattering lengths. According to Sections 3.6 and 3.7, the
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scattering length ar for two pions in a state of isospin T is given?’ by
1/32nm; times the coefficient of M") in Eq. (19.5.36):

_Imy My
 8nF? 4nF?
The pion scattering lengths are difficult to measure, but careful study of
processes like n+N — n+n+N and K — n+n+e+v has given the results®®
(0.2610.05)m; ! and (—0.028+0.012) m ! for ap and a,, respectively, which
are consistent with these theoretical values. Corrections of higher order in
my /2nF; seem to improve the agreement.

This formalism can be extended to describe the interactions of pions
with nucleons or other particles. The easiest approach is to suppose that
we add a term involving the nucleon doublet field N to the Lagrangian
with which we started:

Pn=—N (a + gl + 2it - é;ys]) N, (19.5.39)

ag =016m !, a4 = = —0.046 m; 1.

where 1 is the isospin matrix vector for isospin 1 /2 (that 1is, half the Pauli
spinor 1.} This is invariant under chiral SU(2) x SU(2) transformations
with
5 =28 s, Spa =28, (19.5.40)
ON = —2iys&-I N . (19.5.41)
Now in eliminating the non-derivative pion couplings we must express the

nucleon field N as the SO(4) rotation R in the representation (19.5.41)
acting upon a new nucleon field N

(1 — 2iysi - {) 5
V1482

with { given again by Eq. (19.5.7). With this transformation the non-
derivative term in Eq. (19.5.39) now depends only on N and o

N =

(19.5.42)

Nlgg +2ii - é)”/s]N = Jﬁﬁ .
On the other hand, the derivative term involves derivatives of the matrix
in Eq. (19.5.41), yielding a nucleonic Lagrangian;:
- P x gt . o]
PN =—N [3+ga+2i %C-cfﬁ +2iy5t'1€5] N (19.5.43)
+

or in terms of the canonically normalized pion field (19.5.17):
2if - (7 x §#t) iyst - #7
FRL+22/F} ~ Fl1+#2/FZ]

¥y =—N {6 + g0+ } N. (19.5.44)
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Since ¢ has a non-vanishing vacuum expectation value, we see that the
nucleon here has a non-zero rest mass, a result that would be prohibited if
the symmetry under the transformation (19.5.40), (19.5.41) were unbroken.

By its construction, the Lagrangian (19.5.44) is chiral-invariant. This can
also be seen directly, using the previously obtained chiral transformation
properties of ¢ and 7, and now also noting that under the chiral transfor-
mation (19.5.40), (19.5.41), the new nucleon field defined by Eq. (19.5.42)
transforms as

ON =2it - [{ x &N . (19.5.45)
That is, under a chiral transformation N simply undergoes the same
isospin rotation (19.5.15) as the gquantity Dy, but of course in the T =

1/2 representation. The isospin rotation parameter C X € 1s spacetime-
dependent, so derivatives of N do not have the same chiral transformation
property, but it is straightforward to check that the combination of the first
and third terms in Eq. (19.5.43) behaves as a chiral-covariant derivative:
that is,

3PN =2it - [{ x&]D,N (19.5.46)
where
I (C X apC)
9,N = |8, +2i —117] (19.5.47)

Thus the Lagrangian (19 5.43) (and hence (19.5.44)} is obviously chiral-
invariant, because it is 1sosp1n-1nvar1ant and constructed solely from
the ingredients N, &,N, 5, and D,, all of which transform under chiral
transformations with the same isospin rotation.

Again, the specific Lagrangian with which we started here is not im-
portant. As in the case of the pure pion theory considered earlier, the
important thing is the chiral invariance of the Lagrangian. For chiral
invariance, the Lagrangian must conserve isospin, and be constructed
only from the ingredients N, SZPN and D (together with higher covariant
derivatives of these objects). The most general chiral-invariant Lagrangian
that is bilinear in the new nucleon field and involves no more than one
derivative therefore takes the form

Lno = N [@ +mn + 2igayst- E)]f\? (19.5.48)
or in terms of the pion field (19.5.17);
2it - (7 x pit) 2igayst - b
FRl1+#2/F2] * Fp[l +#2/F7]
Note that we have inserted an arbitrary constant g4 in the last term
in Eq. (19.5.48) because this term is chiral symmetric by itself, and so

Lrno=—N [3 +my + } N. (19.5.49)
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chiral symmetry cannot dictate its coefficient. (This is in contrast with
the third term in Eq. (19.5.43), whose coefficient is fixed by the condition
that it and the first term together give a chiral invariant.) We can check
that the constant g4 inserted here is indeed the axial-vector coupling of
beta decay by constructing the extra term in the axial-vector current that
arises from the nucleonic Lagrangian (19.5.48). Alternatively, integrating
by parts and using the Dirac equation, we find that the pion-nucleon

interaction —ZigAﬁ st - (chlﬁ /Fy is equivalent on the nucleon mass shell

to an interaction —4imy g4 Nyst - #N/Fy, corresponding to a pion-nucleon
coupling constant

GEN = 2mNgA/Fn »

which is just the Goldberger -Treiman relation (19.4.33).

Incidentally, if we had used the Lagrangian (19.5.44} in this calculation,
we would have obtained the Goldberger—Treiman relation with g4 = 1.
However, this result is in fact an artifact of the particular form (19.5.39)
of the interaction with which we started. We might have included a
non-renormalizable derivative coupling term**

Fy =g N[ dbdy— i 8- s +1 @ xBPIN.  (195.50)

It is straightforward to show that in terms of the transformed fields o, N,
and {, this takes the form

g;\, = ——8i0’2gfﬁ? . Ibysﬁ .

Since ¢ has a non-vanishing vacuum expectation value, this makes a
contribution to the pion—nucleon coupling constant and to g4 proportional
to g’. Hence the value g4 = 1 is not dictated by the broken SU(2) x SU(2)
symmetry alone; by including the interaction (19.5.50) and adjusting g/,
we can make g4 anything we like.

Now let us consider how to use this Lagrangian to calculate amplitudes
for reactions involving both pions and nucleons. We will have to give
special attention to the nucleon propagators, since a nucleon can never be
a ‘soft’ particle like a pion. A nucleon line that enters a diagram with an
on-shell four-momentum p of order my. and then from interactions with

** The left- and right-handed parts of the nucleon doublet transform according to the
representations (3,0) and (0, 1) of SU(2) x SU(2), respectively. The bilincar Ny,ysN
18 thus a sum of lerms quadratic in (%,O) or (0,1) terms, so it transforms likc a
direct sum of the (1,0), (0,0), and {0,1) representations. In Eq. (19.5.50) we have
coupled the (1,0) + (0,1) terms in Ny,ysN to the antisymmetric tensor formed from
the SU(2) x SU(2) four-vectors ¢, and J,¢,. Its invariance under the transformation
(19.5.40), (19.5.41) can of course be checked direcly.
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soft pions absorbs a net four-momentum ¢ with components much less
than my, will have a propagator:
—i(#+ d)+mn Tt my
(p+qP+my g0 2-q

(19.5.51)

(The neglected terms may be taken into account by including higher
derivative terms in the nucleon Lagrangian.) Suppose again that all
external pion four-momenta have components at most of order Q and
define all renormalized couplings at renormalization points of order Q, so
that integrals converge in such a way that internal pion lines also have
four-momenta Q. Then Eq. (19.5.51) shows that internal nucleon lines
make a contribution of order 1/Q. A general Feynman diagram for such
a process will make a contribution to the invariant amplitude of order QV,
where now

v=> Vildi+2m)—2I, —Iy+4L. (19.5.52)

Here V; is the number of vertices associated with interactions of type i,
d; is the number of derivatives in each such interaction, m; is the number
of quark mass factors in each interaction, I, and Iy are the numbers
of internal pion and nucleon lines, respectively, and L is the number of
loops in the graph. We use the familiar topological relations for connected
graphs:

L=I+Iy—> Vi+1 (19.5.53)

and

2y +Ex =) Vini, (19.5.54)
i

where n; is the number of nucleon fields in interactions of type i, and Ey
is the number of external nucleon lines. Eliminating the quantities Iy and
I, this gives

The important point here is that the coefficient d; + 2m; + 1n; — 2 in the
first term is always positive or zero. We have already seen that d;+2m; > 2
for the purely pionic interactions with n; = 0, and inspection of (19.5.49)
shows that d; > 1 for the pion-nucleon interactions with n; = 2 and
m; = 0. Any interaction with n; = 2 and m; > 1 or m; > 4 clearly also has
d; = 2. Hence the leading terms for Q <« 2nF, are tree graphs (that is,
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Figure 19.3. Feynman diagrams used with an effective chiral Langrangian to
calculate the scattering of a soft pion from a nucleon. Dashed lines are pions;
solid lines are nucleons.

L = 0) for which all interactions have

The interactions that satisfy this condition are just those shown explicitly
in Egs. (19.5.23), (19.5.34), and (19.5.49), plus possible interactions with
d,‘=0‘drld n =4:

—_—

(ﬁ r.N) (NN, (19.5.56)

where T', and I'* are any matrices in spin and isospin space that yield
Lorentz, space inversion, and isospin-invariant four-fermion interactions.
These last interactions are important for multinucleon processes,? which
will not be considered here.

Let us now apply this method to pion—nucleon scattering. For pion
energies roughly of order m,, the pion-nucleon scattering amplitude is
given by the Feynman graphs of Figure 19.3, all of which make contribu-
tions of order m, to the invariant amplitude. However, at threshold the
leading contribution is from Figure 19.3(c), the others being suppressed
by an extra factor of m,/my. This is because at threshold in the rest
frame the incoming and outgoing pion four-momenta ¢,q and nucleon
four-momenta p, p’ are given by

My My

g=q =(0,0,0,m,) = (m—N) p= (m—N) . (19.5.57)

Thus the invariant amplitude at threshold from either Figure 19.3(a) or
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19.3(b} is proportional to
_ (=g £ )+ mn)
uys 0+ 4q) +m12v Vs qu

_ mg ays(—i J(1 + my/my) 4 myJysu
(F2mymy — m2)

- 2

Fm, . m-
e et 1 P -
S £ a(i p(1 + my/my) + myu S +

where u is a Dirac spinor with iu = 1. In contrast, the diagram of
Figure 19.3(c) gives a contribution to M of order m,. We may write this
amplitude as a 2 x 2 matrix in the nucleon isospin indices:

—2i . )
My, = a3 [e€abe u(_l d —1 df)u s
Fn

where ¢’ and ¢ are the final and initial pion four-momenta and b and
a are the corresponding isovector indices. Using Eq. (19.5.57) and the
momentum-space Dirac equation (i g + my)u = 0, this becomes

_4imf[ _4mn -+ "(1’[)
Mba = T%_ L €gbe = F,% {- [f ]ba » (19558)
where [t1")];, = —iepqc is the pion isovector matrix. The matrix 7 - #® has

eigenvalues in states of total isospin T equal to %[T(T +1)—-2— %], SO

in the two isospin states, T = 1/2 and T = 3/2, the invariant amplitudes
30

are

My =4mg /Fr M;) = —2mg[F;

These results are usually expressed in terms of the scattering lengths,
which are defined as the invariant amplitudes divided by 4n(1 + m, /my):

My —1
- — 0.15 19.5.59
a3 = i = —0.075m;" . (19.5.60)

" 2aF2(1 4 mg/my)

These are in reasonable agreement with the experimental values!? a2 =

(0.173 £ 0.003) m; ' and as; = (—0.101 1 0.004) m;; L. (The results (19.5.59)
and (19.5.60) are only supposed to be valid to lowest order in m,/my, but
we retain the factor 1 + m,/my, because it arises just from the definition
of the scattering lengths.)

The corrections to the scattering lengths of next order in m, arise
from several sources. There are the Born diagram graphs of Figures
19.3(a) and 19.3(b), which are nominally of leading order but as we have
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seen at threshold are suppressed by an extra factor of m;/my. There
are additional tree graphs containing a vertex with two derivatives. Of
special interest are tree graphs containing a vertex with no derivatives that
arises from a symmetry-breaking interaction proportional to m2. These
interactions must have the chiral and spacetime transformation properties
of the operators in Eq. (19.4.34); the fourth and third components of two
different chiral four-vectors ®@;F and @; . There are two obvious candidates
for such operators that are bilinear in the nucleon fields: a (I)“,:r term,

: 1-P\ee o T ) = o
NN = > | NN —4i — | -NysiN |
142 142

and a @3 term,

< Y O Yz 35 f 6 V= <
NitsN =Ni:N -2 - | Nt (N — = | NysN .
t3 t3N (1+C2) t-(N I(H—Cz) ysiV

Chiral symmetries act on N like ordinary isospin rotations, so they cannot
mix up scalar and pseudoscalar nucleon bilinears. Thus there are really
two independent @} operators:

1 —82\ =~
> |N (19.5.61)
1+ {2
and
j Eﬁ NysiN | (19.5.62)
1+¢2
and two independent ®3 operators:
NisN —2 ( S _\ji N (19.5.63)
142
and
i[5\ Ny (19.5.64)
1+ (2

We shall show in the next section that these are the only operators
with the transformation properties of the terms in Eq. (19.4.34) that
are bilinear in the nucleon fields. The operators (19.5.62) and (19.5.64)
evidently provide i1sospin-conserving and isospin-violating corrections to
the Goldberger-Treiman formula for the pion-nucleon couplings. The
other two operators, (19.5.61) and (19.5.63), contribute directly to both
the nucleon mass and to low energy pion—nucleon scattering. From
their contribution to the nucleon mass, we see that these latter terms
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enter into the effective Lagrangian in the form (now replacing { with the
conventionally normalized pion field):

dmy +my (1 —72/F2\ =
0Ler = =73 (1+f’t3/F§ W

~ o~ 2 7[3 Sy —~
—(0m, — omy) INtsN — — | ——5—= |Nt-ZN| , (19.5.65
where dm, and dm, are the contributions of the quark mass terms (19.4.34)
to the proton and neutron masses. This makes a contribution to the pion—
nucleon scattering amplitude (again written as a matrix in the isospin
space of the nucleon):

2[5m, — Smy]
F

(tad3p + th03s) . (19.5.66)

The first term in Eq. (19.5.65) is often known as the ‘o-term’. The second
term is an isospin violating correction to the o-term, which shows up only
in processes involving neutral pions, such as the charge-exchange processes
t+n—2%+pand x4+ p — 7% + n Even though it is not possible
to measure the nucleon mass shifts ém,, directly, we shall see in Section
19.7 that an SU(3) symmetry allows their difference to be calculated from
hyperon mass differences. This yields the result ém, — dm, = —2.5 MeV.
Unfortunately, we still do not have a firm theoretical estimate of the
coefficient dm, + dm, of the first term in Eq. (19.5.65).

Eq. (19.4.34) shows that in quantum chromodynamics the coefficients
dm, + 0m, and dm, — dm, in Eq. (19.5.66) are respectively proportional to
my, + my and m, — my. We shall see in Section 19.7 that m,, and my are not
at all degenerate, so these coefficients are roughly of the same order of
magnitude; the isospin-violating corrections to the g-term are not much
smaller than the g-term itself. We see again that the reason that isospin
conservation is such a good approximation in hadronic physics is not that
the u and d quark masses are nearly equal, but just that they are small.

The use here of Lagrangians like (19.5.19) or (19.5.49) is one example of
the method of effective field theories, already introduced in Section 12.3.
Similar techniques have been employed to deal with meson and baryon
interactions including strange particles (see Section 19.7), with quark and
lepton interactions at energies below the scale of electroweak symmetry
breaking (see Section 21.3), and even with superconductivity (see Section
21.6). In all these cases effective field theories provide the most convenient
method for working out the consequences of symmetries and the general
principles underlying quantum field theory.

* & k
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The low energy theorems provided by broken symmetries when com-
bined with dispersion relations yield useful sum rules. Let’s see how this
works for chiral symmetry, ignoring the small ¥ and 4 quark masses and
the pion mass. Consider the forward scattering of a massless pion with
isovector index a and four-momentum g on a nucleon of four-momentum
p, yielding a pion with isovector index b. The scattering amplitude M,
defined by Sy = —2rid*(Py — Pi)My;, is given to first order in g by the
Feynman diagrams of Figure 19.3 as

1
(27)%(24°)

o | (i 2845ty 4 ( —i —i(p+ q)+mw) 2m)*2gasta d
Fy 2n)* (p+q)* + M? Fr
L ({21 28aysta 6 ( ~i —i(p— d) + mN) _2n*2gaysts 4
Fr (275)4 (P_CI)2+M2 Fr
4ir¢€;;’§ d] u

—2niM =

(19.5.67)
To this order in g, the nucleon propagator in the first two terms inside
the square brackets may by approximated by

—i(pE d)+mn _—i p+mn
(rtq)P+ M? 2p-q

Eq. (19.5.67) can then be further simplified, using the relations ¢ ¢ =

q2 = 0, ay*u = —ip - q/mn, and [t,, 5] = i€zpet,. Also, in the laboratory
frame (which for small g is the same as the center-of-mass frame) we have
p-q = —mnw, where @ = ¢° is the pion energy in the nucleon rest frame,

Finally, the conventional forward scattering amplitude (whose absolute
square is the differential cross section for forward scattering) is given by
Eq. (3.6.9) as f = —4n°wM. Putting this all together, we find the forward

scattering amplitude at pion energy w is given for w < my by

4))
(1 — g4) €avete - (19.5.68)

fba(w) — —i TEF?%

In particular, for zt—proton scattering, we must contract Eq. (19.5.68) with
v, Us, Where ¥ is the normalized isovector (1,7, 0)/+/2, and set t3 = + L. The
forward low energy nt—proton scattering amplitude is then

w
frrp(@) = =55 (1 —g3). (19.5.69)

Now, the dispersion relation for the forward scattering of a massless
nt on a proton is given by Eq. (10.8.24) (with subtraction polynomial
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P(E) oc E) as

Fatp(®) =R + %an+p(w)
w0 [* [a,ﬁp(E)  guplE)
0

4n? E—w E4w

where R 1s a possible subtraction constant, and « and E are pion energies
in the proton rest frame. Comparison of this dispersion relation with the
low energy limit (19.5.69) shows that R =0, and that

dE , (19.5.70)

2 pw
gi=1+ %]0 (004 (E) — 00 p(E)] dEJE . (19.5.71)

This is the celebrated Adler—Weisberger sum rule,'® for the case of exact
chiral symmetry, with m, = 0. A similar sum rule may be derived for the
scattering of pions on any baryon or meson, including the pion itself,3%4

19.6 Effective Field Theories: General Broken Symmetries

The techniques described in the previous section for constructing effective
Lagrangians for the case of SU(2) x SU(2) broken to SU(2) were soon
generalized3! to the case of a general group G broken to an arbitrary
subgroup H. Consider a quantum field theory whose Lagrangian is
invariant under an arbitrary compact Lie group G of ordinary linear
spacetime-independent transformations g of the fields y,(x):

wﬂ(x) - ZgnmUJm(x) . (1961)

We suppose that this symmetry group is spontaneously broken to some
subgroup H < G of symmetry transformations that leave all vacuum
expectation values invariant: for h € H,

3 ham{pm(¥))vac = (wn(x))vac - (19.6.2)

(Not all of the ys need be scalars, but of course only the scalars will
have non-vanishing vacuum expectation values.) In the example at the
beginning of the previous section, G was the group SO(4), the fields v,
furnished a four-vector representation of this group, and their vacuum
expectation values broke S0O(4) down to the subgroup H = SO(3) of
rotations that leave the four-axis invariant. In the general case the fields
1y, may furnish a reducible rather than an irreducible representation of G,
as for instance became the case when we introduced the nucleon fields in
the previous section.
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We next express a general ‘point’ y, in field space as a (¢ transformation
acting on fields {, from which the massless Goldstone mode has been
eliminated:

Pu(x) = Z Vam(X)Pm(X) . (19.6.3)

For instance, in the previous section y was the SO(4) rolation we called
R, and the condition satisfied by §, was that the first three components
of the four-vector should vanish.

In order to formulate this condition more generally, let us suppose that
we are working with a real representation of G. (There is no loss of gen-
erality here, because we are not insisting on an irreducible representation,
so if we start with a set of fields forming a complex representation of G
we can always take the y, to be the real and imaginary parts of these
complex fields.) As shown in Section 19.2, the massless eigenvectors of the
mass matrix are just the independent linear combinations of the vectors
> mltalam{wm(0))vac, where t, are the generators of G. (The reality of the
representation means that it, is real, and the fact that G is compact means
that we can choose the representation to be unitary and hence orthogonal,
so that the t, are imaginary and antisymmetric.) The condition that @,
does not contain Goldstone modes may thus be formulated as

> Pl [l (wm(0))vac = 0. (19.6.4)

The number of independent conditions here is the dimensionality of the
group G minus the dimensionality of the subgroup H whose generators
annihilate {(y,,(0))vac. As in the previous section, the Goldstone bosons
whose fields are eliminated in this way will reappear in the dim(G) —
dim(H) fields needed to parameterize the transformation y,,,(x). In general
the ¢, include all the heavy fields of the theory, including those (like
nucleons in the previous section) that have different spacetime symmetry
properties from the Goldstone bosons.

It is necessary to show that we may always choose the transformation
Tam(X) 80 as to satisfy Eq. (19.6.4). For this purpose, consider the quantity

V(8) = D n 8um{wml(0))vac , (19.6.5)

nm

where g runs over the whole group G in the real orthogonal representation
furnished by the y,. This is obviously a continuous real function of g, and
since the group is compact V,,(g) is also a bounded function of g. At each
spacetime point x, Vi,)(g) therefore reaches a maximum value for some
group element, which we shall call y(x). At g = p(x), Viy(g) must be
stationary with respect to arbitrary variations in g. But any infinitesimal



19.6 Effective Field Theories: General Broken Symmetries 213

shift in a group element g may always be written as a linear combination
og= iz e, zt*,
X

with real infinitesimal coefficients ¢, that may depend on g. Hence the
condition that Vi (g) be stationary with respect to the variation dg at
g = p(x) reads

0=2¢ Vw(x)( ) = IZ € ) Wa(X)7ni(X) G 0m(0)) vac ,

nmi

= lzfaz[? (X)imwn(x) o (wm(0)) vac .

nml

This must be satisfied for all variations, and thus for all ¢,, so we see that
Eq. (19.6.4) is satisfied for ¢(x) = y~1(x)p(x), as was to be shown. In the
purely bosonic theory with Lagrangian (19.4.1), {, was the four-vector
field (0,0,0,0). This points in the direction of the vacuum expectation
value (y,), but this is not always the case.

Incidentally, it is not necessary in dealing with complex fields to for-
mulate the condition on {(x) explicitly in terms of its real and imaginary
parts. If a set of fields y(x) transform according to some complex represen-
tation of G with Hermitian generators 7%, then in the real representation

7= ms) )

the generators are

o_ ( —ImT* —ReT*
=L ReTr —ImT® )

The condition (19.6.4) may then be expressed directly in terms of T* and
x(x) as

Im (3(x)" 7% (x(0)}vac ) = 0.

Because the Lagrangian is assumed to be only invariant under
spacetime-independent G transformations, it will be found after the trans-
formation (19.6.3) to depend on y(x) as well as on {(x), though always
with at least one derivative in each y-dependent term. As already re-
marked, the spacetime-dependent parameters needed to specify y(x) will
play the role of Goldstone boson fields. We now have to consider how to
parameterize y(x).

It must be recognized from the outset that the choice of y in Eq. (19.6.3)
is generally not unique. Because {y,(0))vac is H-invariant in the sense of
Eq. (19.6.2), the quantity V,,(g) defined by Eq. (19.6.5) is invariant under
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right multiplication of g by any element /4 of the unbroken subgroup H:
Velg) = Vy(gh) for he H. (19.6.6)

It follows that if y maximizes V,(g), then so does yh, so that condition
(19.6.4) is satisfled for p = h~ 1y~ 1y as well as § = y~'y. Hence y is only
defined so far up to right multiplication by an element of H. (For instance
in the example of the previous section, the four-dimensional rotation R
could have been multiplied on the right with any rotation acting only on
the first three components of four-vectors.) We may think of two group
elements y; and y; as equivalent if y; = y,h with h € H. This is an
equivalence relation because it is reflexive (if y; is equivalent to y; then
y2 18 equivalent to y;), symmetric (y is equivalent to itself), and transitive
(if y; 1s equivalent to y» and y; is equivalent to y3 then y; is equivalent
to 73). The elements of the group G can therefore be sorted into disjoint
‘equivalence classes’, each consisting of elements y that differ only by right
multiplication by an element of H. These are known as the right cosets
of G with respect to H. What we need is a parameterization of the space
(known as G/H) of right cosets.

For this purpose we need only choose one representative group element
from each right coset. For the SO(4) symmetry broken to SO(3) of the
previous section, it was convenient to choose these representative elements
as the rotations R parameterized by the three-vector {. There is another
choice that is available for any compact group G broken to any subgroup
H. Let us first adapt our notation for the generators of G to the pattern
of symmetry breaking. The complete set of independent generators of H
will be called t;. According to Eq. (19.6.2) these satisfy

> (t)m (wmpvac =0. (19.6.7)

Since H is a subgroup, the t; form a subalgebra
] =1 ) Citr . (19.6.8)
k

We will take the x, to be the other independent generators of G, in any
basis with totally antisymmetric structure constants. (Such a basis always
exists for compact groups; see Section 15.2.) Since x, does not appear on
the right-hand side of Eq. (19.6.8), the structure constants C;j, all vanish,
and since they are totally antisymmetric, it follows that Ci;; = 0, so

[ti,xa] = i) CiawXo - (19.6.9)
b

However, it is not necessarily the case that commutators of xs with each
other are linear combinations of ts; this depends on the nature of G and
H, and also on how H is embedded in G. (Where C,,. vanishes, the coset
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space G/H is known as a symmetric space). In general we may write

(X, X6 =1 Capiti +1 Y CapeXc - (19.6.10)
i c

Any set of generators with commutation relations of the form (19.6.8)-
(19.6.10) is called a Cartan decomposition of the Lie algebra. An example
is provided by the chiral SU(2) x SU(2) Lie algebra (19.4.9)-(19.4.11), for
which the C,. did happen to vanish.

Because t; and x, span the Lie algebra of G, any finite element of G
may be expressed in the form

g = €xp [i Zéaxa] exXp |:i ngti] , (19.6.11)

where &, and 6; are a set of real parameters. But the transformation y(x)
in Eq. (19.6.3) is only defined so far up to right-multiplication with an
element of H, so we may standardize our definition of y by taking it in
the form

7(X) = exp { 3y Ca(x)xa] . (19.6.12)

The &,(x) may be identified (apart from normalization) with the Goldstone
boson fields.

In what follows we will simply assume that representative elements have
been chosen from each right coset, and expressed as continuous functions
(&) of some parameters &,. Eq. (19.6.12) in general provides one explicit
example, but we will not limit ourselves to this parameterization.

Now, suppose we use Eq. (19.6.3) to replace all fields y(x) in the
Lagrangian with y(x)®(x). The denivatives of the fields are given by

Bup(x) = 3(x) [8,0(0) + (1 X)BNP()] - (19.6.13)

Therefore when we express the Lagrangian in terms of ¢ rather than 1,
the Goldstone boson fields appear through the dependence of 7~1(x)d,y(x)
on &4(x) and its derivatives.

Any variation of a group element like y(x) may be written as the group
element times a linear combination of the generators of the group. In our
case, we may write this as

Y X)8p(x) =i XaDau(x) +1 ) _ t:Eju(x), (19.6.14)
a i
where D,, and E;, take the forms

Daulx) = > Da (£(x))3,84(x) . (19.6.15)
b
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Ey(x)=Y Eib(é(x)) 8uEp(x) . (19.6.16)
b

The Goldstone boson fields will thus enter the Lagrangian through the
appearance of the quantities D,,(x) and E;(x) (and their derivatives).
Note that for exact broken symmetries every interaction of the £s must
involve at least one derivative, so mass terms m2, £, cannot appear in
the Lagrangian, and all interactions vanish when any Goldstone boson
four-momentum vanishes.

Even where we do not know the details of the underlying Lagrangian,
we can learn a great deal about the way that the quantities D,, and
E;, appear in the transformed Lagrangian from their transformation
properties. Under an arbitrary element g of the group G, the original field
y transforms according to Eq. (19.6.1):

p(x) = v'(x) = gp(x) = g7 (£()) (). (19.6.17)

Now, gy(£) is an element of G, so it must be in the same right coset as
some (), and may therefore be written in the form

g7(Ex) =7 (£)h(Ex).8) » (19.6.18)

where h is some element of the unbroken subgroup H. Using this in
Eq. (19.6.17), we find that v/(x) is of the form (19.6.3)

v(x) =7(E0)P), (19.6.19)
with ¢/(x) defined by Eq. (19.6.18), and
¥(x) = h(&(x),8)P(x). (19.6.20)

In the example at the beginning of the previous section, { consisted of a
single isoscalar o, and since this was invariant under the unbroken isospin
subgroup, it was also chiral invariant. More generally, we find here
that {(x) is not necessarily invariant under general G transformations,
but that its G transformation depends only on its transformation under
the unbroken subgroup H. We saw this in the previous section when
we introduced the nucleon fields; under a general infinitesimal broken
chiral symmetry, the fields N transformed according to the field-dependent
isospin rotation (19.5.45).

The transformation rules ¢ — &’ and { — ¢’ specified by Egs. (19.6.18)
and (19.6.20) make no reference to the particular linear G transformation
properties of the original fields y,. Indeed, we did not need to start with
a Lagrangian that was invariant under linear G transformations in order
to deduce these transformation rules. Given any set of fields on which
a group G acts linearly or non-linearly, with a subgroup H that leaves
one special set of field values (their vacuum expectation values) invariant,
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we can always express these fields (in at least a finile neighborhood of
the special field values) in terms of a set {; and §,, which transform
under G according to the standard realization &, — ¢, ¢ — ¢’ defined
by Eqgs. (19.6.18) and (19.6.20). The essential uniqueness of this realization
was first proved® for SU(2) x SU(2) broken to SU(2), and then for
general Lie groups broken to any subgroup.’! For an easier argument,
we may note that for any set of fields that transforms according to a
non-linear realization of an arbitrary compact Lie group G, it is always
possible to define functions of these fields (and perhaps additional fields")
that transform linearly under G.>? Starting from this linear realization, the
arguments of this section allow us to construct fields £ and § with the
transformation rules (19.6.18) and (19.6.20).

Although the transformation of £(x) and §(x) is complicated for general
g € G, it is much simpler when g is itself a member h of the unbroken
subgroup H. It is usual and always possible to choose the Goldstone
boson fields {,(x) to transform according to some linear representation
D ap(h) of the unbroken subgroup H:

hy(&) h" = y(2h)¢) . (19.6.21)

For instance, in the parameterization of the coset space SO(4)/S0(3) used
in the previous section, the Goldstone boson fields {, formed an isospin
three-vector. For the more generally applicable parameterization based
on Eq. (19.6.12), the commutation relations (19.6.9) show that the x,
transform linearly under H:

hxph™ =" Dap(h)xa (19.6.22)

from which Eq. (19.6.21) follows immediately. Comparing Eq. (19.6.21)
with Eq. (19.6.18), we see that for g = h € H,

£lx) = Z%b )Ep(x) (19.6.23)

Po(x) = thwm X) . (19.6.24)
m

In other words, £, and §, transform under H according to the represen-
tations Z4(h) and h,, itself, respectively.

We must now consider how to construct the most general Lagrangian
that is invariant under the transformations (19.6.18) and (19.6.20). The
transformation £ — &’ for general g € G is non-linear and rather compli-
cated, and rules out the appearance of {,(x) in the Lagrangian except in

* For instance, the polar and azimuthal angles & and 1 furnish a non-linear realization
of SO(3); by adding an additional variable » we can construct quantities x, X, and
x3 that transform linearly under SO(3).
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quantities like Dg,(x) and E;,(x). Fortunately, these quantities obey very
simple transformation rules. Differentiate Eq. (19.6.18) with respect to x#
and multiply on the left with its inverse. This gives

77 (609) 8w (60) = [ 2(60)]” aufer (600)]
A7 (80, 8)y™ (£100)00 [1(£00)h (4000 8)]
(e, 8) [ (E0)aw (€00)] m(e)

+ b7 (60x),8) 0,h(E(x), )

and so

yHE0) a0 (£00) = h(&:x),8) [ (600.8) (00, 8) | 7 (£x).8)
- {a#h(c(x), g)] h (g(x), g) . (19.6.25)

Eq. (19.6.12) gives the quantity y_laﬂy as a linear combinations of xs and
ts. Also, the second term on the right-hand side of Eq. (19.6.25) is a
linear combination of ts alone. Since the x, and ¢; are all independent,
the coefficients of each generator on both sides of Eq. (19.6.25) must all
be equal:

Zan:m = h(¢.g) (Z Xa dp) C g), (19.6.26)
ZIiE:f,u = h(<, 8) (ZtiEfp) W)

+i [8uh(E )| (E 8, (19.6.27)

or in more detail

D (x) =Y Zap (h(E(x).2)) Denl),
b
Ei(x) =38y (h(¢(x)g) ) Eulx)
J
~3" #4 (h(f(x), g)) 8,4(x) (19.6.28)
h

where D, and E;, are defined by Eqs. (19.6.15) and (19.6.16), and
Buh(E(x).2) | ! (4x).8) = ;Z #(EX))t:0,8(x)

hth™! = Z(f?fj(h)fi ;
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while 24, is defined by Eq. (19.6.22). We see that the quantities D,,(x) are
‘covariant derivatives’ of the Goldstone boson fields, transforming under a
general element g € G much like the fields : both are subjected to the H
transformation h(¢(x), g), though in different representations. For instance,
in the SO(4) theory of the previous section, the covariant derivative of the
pion field { was the quantity 8,{/(1 +{ 2), which is transformed under an
infinitesimal chiral transformation by an isospin rotation (19.5.15).

On the other hand, E;,(x) transforms inhomogeneously, much like a
gauge field. The extra term in Eq. (19.6.28) allows a cancellation of the
inhomogeneous term in derivatives of ¢. Differentiating Eq. (19.6.20), we
have

6u' () = h( ), g) [8u0(x) + h (83,8 )B,m (200, 8 ) P()] -
Combining this with Eq. (19.6.27) gives

(2:9(x)) = h(E(x),8) ZP(), (19.6.29)
where 2, is a covariant derivative of the heavy particle fields:
DuP(x) = 3uP(x) +i Y LEu(x)P(x) . (19.6.30)

(Eq. (19.5.47) provides an example of such a covariant derivative in the
case of SO(4) broken to S0(3).) Any Lagrangian that is invariant under
the unbroken subgroup H and is constructed from §, Z,§, and Dgy, will
thus also be invariant under the full group G.

Renormalizability is not an issue here, so we can also consider quantities
involving more than one spacetime derivative. One such is 2,2,9,
obtained by just repeating the operation (19.6.30):

av + IZ ijjv]
j
This transforms just like &,

(22, D) = W, 8) DD - (19.6.32)

Another covariant quantity can be constructed from the covariant deriva-
tive of the covariant Goldstone boson derivative (19.6.15), which is defined
just like (19.6.30), but with t; replaced with the corresponding matrix in
the representation of H furnished by the x,:

@vDap = avDap + Z Ciab Eivap 3 (19633)
b

DD = . (19.6.31)

6# + IZ ffEi#
i

which transforms just like Dy,

(2.Da) = 3" Daslh, )2, Dy, (19.6.34)
b
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Also, by antisymmetrizing the derivative of E;; we can eliminate the
inhomogeneous term in (19.6.27). This yields a ‘curvature’

Ri#" = a\,Em — 6#Eiv — I'C;jkEjﬁEkv . (19635)

This is not really new; it is easy to see that the antisymmetric covariant
derivative of the ‘matter’ field ¢ is proportional to this curvature

(2, 2,0% =Dt R - (19.6.36)

Of course, we can continue this process and construct yet more covariants
by taking higher and higher covariant derivatives of 2,{ and D,,.

It is useful to note that the quantities D,, and E;, may be calculated
once and for all for given groups G and H and a given parameterization of
the coset space G/H, and do not depend on the assumed transformation
properties of the fields y, or the specific matrices x,,%; used to represent
the Lie algebra of the broken symmetry group. For instance, in the
exponential parameterization (19.6.12), the first few terms in the power
series for these covariants are easily calculated from Egs. (19.6.12) and
(19.6.14) as

Da;: = a,uéa + I@Z Cab(‘ébapfc ,
be

+ % Z Z CeaeCpea + Z CediChia Cbé(’apéd

bed € i
+ 0(8%8,8), (19.6.37)
Ei,u = % Z Cab:éaa,uéb + % Z Cacd Chdf fafba‘u&:c
ab abcd
+ 0(80,8). (19.6.38)

All we need to know in order to construct the most general Lagrangian
involving the Goldstone boson fields £, and a set of heavy particle fields
is the pattern of spontaneous symmetry breaking, of G to H, and the
transformation of the heavy particle fields under H, not G: the Lagrangian
is taken to be the most general H-invariant function of §, 2, P, Dq,,
and higher covariant derivatives.

Now consider the case where the symmetry under G is not only sponta-
neously broken, but not even exact to begin with, Suppose that there is a
term A% in the initial Lagrangian that is not invariant under the group G
of linear transformations @ — g, but transforms as a linear combination
of the components of some representation (reducible or irreducible) of G.
That is, we take

AL =) ca04, (19.6.39)
A
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where (/4 transforms under G according to some representation D[g]45:

@A — Z D[g]AB@B . (19.6.40)
B

If we now replace the fields ¢ with the set &, (¢, this term in the Lagrangian
will still take the form (19.6.39), but Eq. (19.6.40) now reads

Oa|falé,R) DIHE,2)P]) = 3" Dlglan0s ¢, 9] (19.6.41)
B

where f,(&, g} is the result of applying the transformation g to &,, defined
by Eq. (19.6.18):

g7(&) =r(f&p)h(cq) . (19.6.42)

As we shall see, it is easy to find sets of operators satisfying (19.6.41),
and the solution is unique up to a specification of certain H-invariant
functions of the 9.

First, consider the case &, = 0, with g = p(¢’). In this case gy(&) = y(&),
50

fa(00@) =&, hOE)) =1.
Applying this in Eq. (19.6.41), we find (now dropping the prime}:

O8] = 3" DIy(E)1a5 03[0, ) (19.6.43)
B

This gives the operators 0 4[¢,, ¢] for all £, if we know them for £, = 0.
Now take &, = 0, with g an element h of the unbroken subgroup H.
Here we have gy({) = h, so

fa(0,h) =0, hO,hy=h.
Applying this in Eq. (19.6.41), we find here
04 [0, hﬁ’)} =) D[Hap Us [0,1‘13} : (19.6.44)
B

In other words, the 74 for ¢ = 0 must have the same transformation under
linear H transformations as are found in the representation (19.6.40) of
G. (However, there is nothing in this that fixes the normalization of
the different irreducible H representations found in the G representation
(19.6.40); some of them may even be absent altogether.)

Finally, we note that any set of ¢ operators satisfying (19.6.44) allows

the construction using Eq. (19.6.43) of operators satisfying the general
G-transformation rules (19.6.40). Using Eqs. (19.6.43) and (19.6.44), the
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left-hand side of Eq. (19.6.41) becomes
O [falZ.8), H(E,8)P] = > oph(r £))1480s [0, h(Z, )P

- ;n b (12, 8))1asPIHE R)lac Oc[0, )]
= 3 DB(f(6 ) h& s 05 0.7

- iD[gy(C)]AB 050, ]

- én[gm Oy (&%),

as was to be shown.

As an example, consider the group SO(4) spontaneously broken to
SO(3) as in the previous section, and suppose we want to construct
operators that transform according to the four-vector representation of
S0(4) out of the Goldstone boson field {(x) and the other fields §(x).
According to (19.6.43), these must take the form

0a 8] = Ran() O [0 ) ,
where R is the SO(4) rotation defined by Egs. (19.5.8) and (19.5.9):

2, _1-—C2
Ra4—1+22, R44—1+62-

The condition that R is an orthogonal matrix is satisfied if we choose its
other components as

zé’aCb 2Ca
= Gy — b S
Rap b (122 Ruyq 172

Thus any scalar (as opposed to pseudoscalar} operators that transform
as the fourth and third components of chiral four-vectors must appear in
the effective Lagrangian in the forms

and

o3 £, 5] =

o5 0.] - (£2555) - 0] + (1255 ) oi os].

The only condition on the operators (B+[0,1p], @7 [0, ], &)‘[0,1}3], and
@, [0, 4] is that they should transform under Lorentz and isospin trans-
formations respectively as a pseudoscalar isovector, a scalar isoscalar, a
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scalar isovector, and a pseudoscalar isoscalar, but they do not have to be
related in any way. For processes involving only pions we use an effective
Lagranglan that involves no fields except the pion field ¢, so the operators
@0, ], - [0, %], and @7 [0,%] must all vanish, while @] [0,{] is just
a numerical constant. We see as promised in the previous section that
the only non-derivative chiral symmetry breakmg operator in the effective
Lagrangian is proportional to (1 —2)/(1+ £2), and hence to the operator
(19.5.34). In order to include symmetry-breaking operators bilinear in the
nucleon field, parity and isospin conservation require that we take

o+ {o,fp] cNysiN, — @F [o,rp] o« NN ,

o~ [0,1’}3} « NiN , @y {0,11';] o NysN .
Thus as claimed in the previous section the only non-derivative symmetry-
breaking terms involving nucleon bilinears are of the form (19.5.61)-
(19.5.64).

The phenomenological Lagrangian may be used to calculate the ampli-
tudes for processes involving particles of small three-momentum in much
the same way as was done for the chiral theory of pions and nucleons in
the previous section. In counting powers of a characteristic small momen-
tum Q, Goldstone boson internal lines always contribute factors of order
Q2. Also, an internal line for one of the heavy particles (of any spin}

described by the fields { that has absorbed a net four-momentum g from
the Goldstone boson field will have a propagator

Nip+qg) | N

(p+qP+M>  2p-gq
(where N is some polynomial, depending on the particle spin and field
type, and M is the particle mass) so it will contribute a factor of order

Q~'. The same argument that led to (19.5.55) applies here, and gives the
number of powers of Q in a given Feynman diagram as

v=> Vi(di+h/2—2) +2L—E,+2, (19.6.45)
i

where V; is the number of vertices of type i, d; is the number of derivatives
(or for approximate broken symmetries, derivatives or Goldstone boson
masses) at a vertex of type i, h; is the number of heavy particle lines at
a vertex of type i, L is the number of loops, and Ej is the number of
external lines of heavy particles. In general the coefficient d; + h;/2 — 2
is non-negative for all interactions allowed by chiral symmetries. The
interactions among Goldstone bosons alone always have d; > 2, because
they must either be at least bilinear in the covariant derivative (19.6.15), or
proportional to symmetry-breaking parameters (like quark masses in the
previous section) which are of order of the squares of the Goldstone boson
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masses. Interactions between Goldstone bosons and heavy particles must
involve the covariant derivatives (19.6.15) or (19.6.30), and so must have
d; > 1 as well as h; > 2. The only interactions for which d;+h; /2 < 2 would
be trilinear interactions among the heavy particles, which we exclude
because we are only considering graphs in which all heavy hadrons remain
non-relativistic. With d; + h;/2 > 2 for all interactions, the leading graphs
are those constructed solely from interactions with d; + h;/2 = 2 and
no loops. Corrections are again provided by interactions with more
derivatives and/or more heavy-particle fields, and/or one or more loops.

In the absence of intrinsic symmetry breaking, the part of the La-
grangian that involves only the Goldstone boson fields has a unique
d; = 2 term

1
Lop=—3 > FaDa,DY (19.6.46)
ab

with F2, some real positive-definite matrix. For (19.6.12) and a large class
of other parameterizations of the cosets, y(¢) approaches 1 + i¢,x, for
¢a > 0, so Eq. (19.6.14) shows that the linear term in D, is just 8,¢&,.
The canonically normalized Goldstone boson fields n, with a kinematic
Lagrangian —3 3°, 8,7m,0"x, are then

Mo =Y Fauly. (19.6.47)
b

In the SO(4) theory of the previous section, the generators x, and the
fields ¢, transform according to an irreducible representation of the un-
broken subgroup H = SO(3), so in this case F2, = F28,, with F, a
single constant that characterizes the energy scale of the spontaneous
symmetry breakdown. In the general case we can choose the generators
(without changing the structure constants) so that F2, is diagonal, with
diagonal elements all equal within each irreducible representation of H,
but otherwise independent.

# % ok

We have seen how to construct theories of Goldstone boson fields
by starting with fields belonging to linear representations of the broken
symmetry group, such as the SU(2) x SU(2) four-vector ¢,(x) with which
we started in Section 19.5. At very low energy the only significant degrees
of freedom are the Goldstone bosons, so we generally throw away the non-
Goldstone parts of the field, such as the field a(x) given by Eq. (19.5.4).
But there are circumstances in which it is necessary to return to full linear
representations of the broken symmetry group, in which the Goldstone
boson fields are just one part.

This happens when, by varying the temperature or turning on an
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external field of some sort, a system is brought close to a second-order
transition, in which it smoothly goes from broken to unbroken symmetry.
On one side of this transition the symmetry is broken, so we have massless
Goldstone bosons, and various other massive excitations, not generally
forming complete multiplets that would furnish linear representations of
the broken symmetry group. On the other side of the transition the
symmetry is unbroken, so here we have complete linear multiplets, not
generally massless. If this transition is continuous, then very near the
phase transition the Goldstone boson must form part of a complete
linear multiplet of nearly massless excitations. Barring accidents or other
symmetries, this multiplet will form an irreducible representation of the
broken symmetry group. This irreducible multiplet of fields, which become
massless only just at the phase transition, is known as the order parameter.

This is a more precise definition of order parameters than usual. Often
one speaks of an order parameter as any set of fields whose expectation
values break the symmetry, but this is too vague — there is no one set of
fields whose expectation values can be blamed for a broken symmetry. For
instance, the SU(2) x SU(2) symmetry of quantum chromodynamics with
massless  and d quarks is broken by the expectation value of fiu-+dd, which
is the fourth component of a chiral four-vector, but quartic and higher
powers of quark fields also have non-vanishing vacuum expectation values,
and these belong to other representations of SU(2) x SU(2). In contrast, at
a smooth phase transition at which SU(2) x SU(2) becomes unbroken the
Goldstone boson becomes a member of just one massless representation
of SU(2) x SU(2), and this provides an unambiguous definition of the
order parameter.

It is important to identify the correct order parameters, both in order to
calculate the critical exponents discussed in Section 18.5, and to deal with
configurations like vortex lines or magnetic monopoles, where, as we shall
see in Sections 21.6 and 23.3, there is a singularity at which the broken
symmetry becomes unbroken. It is often assumed that the order parameter
for the chiral SU(2) x SU(2) symmetry of quantum chromodynamics is a
chiral four-vector, but this is not known to be the case.3??

19.7 Effective Field Theories: SU(3) x SU(3)

The approximate SU(2) isospin symmetry of nuclear physics was extended
in the early 1960s by Gell-Mann?® and Ne’eman to an even less exact
SU(3) symmetry, which grouped the known baryons and mesons in various
irreducible representations: an octet of 1/2+ baryons p, n, A%, T£°, -1,
an octet of 0~ mesons K+0 #t0 ;0 K =0 an octet of 1~ mesons
K*+0 o590 o K* =9 and a decuplet of 3/2+ baryons At++0— T*+0—
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20— Q. (The n and Q were not discovered until later) After the
successes of the chiral SU(2)xSU(2) symmetry in the mid-1960s, it became
natural to suppose that the strong interactions also respect an approximate
SU(3) x SU(3) symmetry, which like SU(2) x SU(2) is spontaneously
broken to its diagonal subgroup, the SU(3} of Gell-Mann and Ne’eman,
Then after the advent of quantum chromodynamics it became clear that
this symmetry arises because there are not two but three fairly light
quarks; the u and d, and a third quark s which like 4 has charge —1/3.
In this case the SU(3) x SU(3) symmetry consists of independent SU(3)
transformations (analogous to Eq. (19.4.2)) on the left- and right-handed
parts of the u,d,s quark fields:

u U
( d ) — exp liZ(G!Aaq—O{fla?SJ] ( d ) , (19.7.1)

S s
0
0],
0
0 0
01,
1 0

0 0
1 0 ) , (19.7.2)
0

where A, are a complete set of traceless Hermitian matrices:
1 0 0 —i 0 1 0
0 0, =1 0 0], A= —1
0 0 0 0 O 0
0 1 0
0 0], 4s 0
0 0 0
0 0 1 1
A7 = 0 —i , Ag=-—| 0
i 0 V3 1o

normalized so that Tr(4,4;) = 28,4, The generators of SU(3) x SU(3)
are thus represented on the quark fields by the generators ¢, = A, of the
unbroken S U(3) symmetry and the broken symmetry generators X, = Ag7s.

o
i
T

&
i
N
cCoO0 RoOo OO

I
o~

To define the Goldstone boson fields and work out their transformation
properties, we note that in the representation furnished by the quark fields,
any SU(3) x SU(3) transformation may be written as exp(—iys >_, Cala)
times a transformation exp(i 3., #,4,) belonging to the unbroken SU(3)
subgroup of SU(3) x SU(3). (The minus sign accompanying ¢ is inserted
for convenience in later comparing components of this field with the pion
fields introduced in Section 19.5.) Hence in this representation, each right
coset of SU(3) x SU(3)/SU(3) is represented by the matrix of the form
(&) = exp(—iys ¥, £alds) that it contains, and aside from normalization,
the parameters £, of these right cosets may be taken as our Goldstone
boson fields. According to Eq. (19.6.18), the transformation rule of these
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fields is dictated by

exp [i > (652 + 9?%?5)] exp (—ivs > «Ea(x)?ta)

= eXp (—i}g Z é;(x)}{a) exp (IZ Ga(x]Aa) (19.7.3)

with 6,(x) some function of #¥, 84 and ¢(x). Also, according to
Eq. (19.6.3), the Goldstone-free quark fields §(x) are here defined by

u(x)
q(x) = ( d(x) ) = eXp (—iys > éa(x)ia) q(x) (19.7.4)

s(x)

and have the transformation rule given by Eq. (19.6.24):

7' (x) = exp (i Z Ga(x)ia) g(x). (19.7.5)

We could proceed to introduce covariant derivatives (19.6.15) and (19.6.30),
and use them to construct chiral-invariant Lagrangian densities, but for
chiral symmetries there is a simpler approach available.

Note that the parts of Eq. (19.7.3) that are proportional to (1 + ys) and
(1 —ps) read

exp (IZ Q(I;AQ) exp (—iz éa(x)ﬂ.a)

a

= exp (—EZ i;(x]ita) exXp (i Z 0a(x)/la) (19.7.6)

and

eXp (IZ Bff/la) exp (i Z ia(x)).a)

a

= exp (JZ é;(x)/la) exp ("'Z Ba(x)}{a) , (19.7.7)
where
oL = ¢¥ L 94 R =gV 0.

By multiplying Eq. (19.7.7) on the right by the inverse of Eq. (19.7.6), we
find the simple transformation rule

U'(x) = exp (iz Aaeff) U(x)exp (—iz :Laeg') , (19.7.8)



228 19 Spontaneously Broken Global Symmetries

where U(x) is the unitary unimodular matrix

U(x) = exp (2;'2 ga(x);ta) . (19.7.9)

In other words, U(x) transforms according to the (3,3) representation of
SU(3) x SU(3). This is still a non-linear realization of SU(3) x SU(3)
because the components of U(x) are not independent; they are subject to
the nonlinear constraints UTU =1 and Det U = 1.

The unique (SU(3) x SU(3))-invariant term in the Goldstone boson
Lagrangian that is of second order in spacetime derivatives is

Poderiy = — F*Tr{8,U ¢*UTY}, (19.7.10)

with F? a positive constant to be determined. We can express the £; in
terms of conventionally normalized pseudoscalar meson fields by writing

~—1—n0+-1-r10 xt K+
2
Aé___‘/;z v n_ﬁ —La04 Ly KO _ V28
> hata= % SR =28,
p _ N

K KO _\/gﬂ(}

(19.7.11)
so that the kinematic term in Eq. (19.7.10) is of the usual form

gkin = — %5#n06“n0—6#n+5“7£— — a#K't'a#K__a#KOa#KO_ %a#n(}a‘uno .

To determine the constant F, we note by comparing Eq. (19.7.4) with
Eq. (19.5.42), that for ¢ infinitesimal, the components &;, ¢, and &; are
the same as the Goldstone boson fields {4, {5, and {5 introduced in Section
19.5. Then, comparing (19.7.11) with (19.5.17) and (19.5.32), we see that
the constant F defined by Eq. (19.7.10) is the same as the F, = 184 MeV
introduced in Section 19.4.

The SU(3) x SU(3) symmetry of quantum chromodynamics is broken

by the quark mass term, which in terms of the quark field g(x) defined by
Eq. (19.7.4) is

Prnass = —q My q = —§ o~ iN21sB/Fr M, ¢~ iV2rsB/Fs 5 (19.7.12)
where
m, 0 O
My=1| 0 mg 0O |. (19.7.13)
0 0 my

Eq. (19.7.12) contains a purely bosonic part, obtained by replacing the
quark bilinear with its vacuum expectation value, given by the unbroken
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SU(3) and parity symmetries as”

< anyﬁam >p=0, < éan >0= —0dnp - (19.7.14)
The Goldstone boson mass term in the Lagrangian is then
N {B,{B,M,}} = ~ Y |am (Lno + —Lno)z + 4(m, + mg)ntn~
FT% ] ] 24 F.J% u \/z \/6 u

2
+4(my, + m)KTK ™ + dmy (—ino + iﬂo)

V26

— 8
+4(mg + mg)KRY + 3m9(r;0)2] : (19.7.15)
From this, we can read off that3?
4o
mfﬁ = mig == F—?%[mu +mq] ,
4v
Mg+ = ﬁ[mu +my] ,
i (19.7.16)
4
Mo ‘I;g[md +mg]
2 4v [dmg+ mg + m,
mno = F—% 3 .
and there is also a term that mixes the 7" and #°:
4u
my, = ﬁ[m“ —my] . (19.7.17)

The same results can also be obtained by operator methods. Noether’s
theorem allows us to construct generators T, and X, for which

[Ta,q] = —44q, [Xa,q] = —754aq - (19.7.18)

We can write the Goldstone boson fields in a real basis as =, with
at = (m +im)/V2, 2 = m, K¥ = (m +ins)/ 2, K® = (m6 +
in7)/J2, K® = (ng — in7)//2, and #® = 3. The SU(3) symmetry that
survives the spontaneous symmetry breaking tells us that the F-matrix

" The fact that the conscrvation laws of parity, charge, and strangeness respected by the
vacuum are the same as those respected by the quark mass matrix is a result of the
vacuum alignment condition discussed in Section 19.3. Likewisc, if the quark ficlds
are defined so that the quark masses are all positive, then with v > 0 the minus sign in
Eq. (19.7.3) is required by the condition that the true vacuum be at a minimum rather
than a maximum of the vacuum energy for vacuum states rotated by SU(3) x SU(3)
transformations, for as wc shall see, it is this sign that will vield positive masses for
the pseudo-Goldstone boson octet.
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for these bosons takes the form F,;, = F,d,. The SU(3) x SU(3) sym-
metry is also intrinsically broken by the mass term in the Hamiltonian
Hi = myfiu + mgdd + mSs = GM,q, where M, is the quark mass matrix
(19.7.13). The mass matrix of the pseudo-Goldstone bosons is given here
by (19.3.20) as

M2, = —F72(q {Ja {20, M} @) - (19.7.19)

Since this is already of first order in quark masses, to this order we may
use the unbroken SU(3) relations (u)g = (dd)g = (Ss)g = —v, and find
the results (19.7.16) and (19.7.17), as before.

The masses mg+ = 493.65 MeV and mgo = 497.7 MeV of the kaon
doublet are quite close, and considerably larger than the pion mass, so
we can see from (19.7.16) that the m, and m; must be considerably
smaller than m,. In calculating quantities that are sensitive to m, and my,
like the kaon mass difference or the pion masses, we should also take
into account another small correction, the effect of electromagnetism. The
electromagnetic current is J® = jegy*Qq, where Q is a diagonal matrix with
elements 2/3, —1/3, and —1/3. Its commutators with the SU(3) x SU(3)
generators are

[Tas‘jﬂ] = _ie %q})ﬂ [Qs ’-{'ﬂ]q ] [XCIBJ#] = —ie %‘_1”/#?’5 [Qa Aa]q '

We see that J#* commutes with X3, X4, X7, and X as well as Ty, T, T7,
and T3, so the electromagnetic part of the Hamiltonian is invariant under
the SU(2)x SU(2) x U(1}x U(1) subgroup with these generators. Therefore
in the limit of zero quark masses, electromagnetic effects give no mass to
the neutral pseudo-Goldstone bosons®® =%, K% K©° and #°, the Goldstone
bosons associated with the spontaneous breakdown of the symmetries with
generators X3, X¢, X7 and Xg. Also, in the zero-quark-mass limit there
is an unbroken SU(2) symmetry generated by Tg, T7, and \/§T g — T3,
under which the K+ and =+ transform as a doublet, so that for zero
quark masses the electromagnetic corrections to the K+ and n™ masses are
equal.®® Since the quark mass terms and electromagnetic corrections are
all small, it is reasonable to treat these effects as additive corrections to
the effective quark Hamiltonian, We see then that with electromagnetism
taken into account, the mass formulas (19.7.16) should be corrected to
read?’

Mg+ = dv(my +ms)/Fz +A,

m12(0 = m}?—(o = 4u(mgq + ms)/Fg ,

m, = dv(my +m,)/Fr+ A, (19.7.20)
mio = 4u(my + mu)/F,% ,

mi = 4o(my, + my + 4mg)/3F2
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where A is the common electromagnetic correction to the K+ and =t
squared masses.

These formulas impose one linear relation on the five pseudo-Goldstone
masses, a version of the Gell-Mann-Okubo relation:*”

3mp + 2may — mly = 2mg, + 2mgy (19.7.21)

Taking the kaon and pion masses from experiment, this relation yields an
n mass of 566 MeV, in comparison with the experimental value of 547
MeV. The small discrepancy is usually attributed to the mixing of the »
state with a heavier pseudoscalar particle, the ' at 958 MeV.

From the mass formulas (19.7.20) we may derive formulas for the quark

mass ratios in terms of the pion and kaon masses:?’
2 2 2 2 2 2 2
mg Mo+ Mo — Wiy m, Imsy — Mg — My + Mg,
M. w2 2 2 . 2 2 2
my Mo + Mg — M, M Mo -+ Mg+ — My

(19.7.22)
Using the mass values m,+ = 139.57 MeV, m o = 134.974 MeV, mg+ =
493.65 MeV and mge = 497.7 MeV gives the ratios my/m; = 0.050 and
my/mg = 0.027. Thus the ratio of the d and u quark masses is closer to 2
than 1. (A 1996 calculation using various other pieces of information as
well as pseudoscalar meson masses has given values my/m; = 0.053 £0.002
and m, /mg = 0.029 4 0.003.)

None of this gives definite values for the individual quark masses.
Indeed, these masses are not well defined until we define a renormalization
prescription for the quark bilinears. Often this prescription is fashioned
so that m; equals the mass difference between isomultiplets differing by
one unit of strangeness in some SU(3) multiplet. For instance, the
lightest vector meson octet -consists of an isotopic doublet K™ at 892
MeV, interpreted as a bound state of an § antiquark and a u or d; its
antidoublet, consisting of an s and a # or d; and a 7 = 1 p at 770

** This relation was originally derived*® on the basis of the approximate §U(3) symmetry
of Gell-Mann and Ne’eman generated by the T,, ignoring mass differences within
isotopic multiplets. From this derivation, one cannot tell whether this relation should
be applied to the pscudoscalar meson masses themselves, or as here to their squarcs.
Applying this relation to the pseudoscalar masses themsclves would not in fact work
very well; it gives an » mass of 613 MeV., The fact that the Gell-Mann—Okubo
relation works well for the squares of the meson masses, but not for their first powers,
supports the interpretation of these particles as Goldstone bosous of a spontaneously
broken approximate SU(3) x SU(3) symmetry. Gell-Mann and Okubo also used
the approximate SU(3) symmetry generated by the T, to derive relations among
the masses of other particles, such as (ignoring isospin violating effects) the relation
2my + 2mz = 3my + mz among the masses of 1he lightest baryon octet. For such
multiplets, the average mass is so much larger than the mass differences within the
multiplet that it makes little difference whether one applies the relation to the masses
or their squares.
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MeV and a T = 0 « at 783 MeV, both interpreted as bound states of
afiordandauord If we wish to attribute the difference between
the K* mass and the average of the p and » masses to the relatively
large s quark mass, then we must renormalize the quark bilinear so that
ms — Ymy, +my) = mg- — Ym, + m,) = 120 MeV, yielding m; = 125
MeV. With the above quark mass ratios, this gives my = 6.0 MeV and
m, = 3.3 MeV. However, these estimates of mass values are much less
reliable than the values of the mass ratios given in Eq. (19.7.22). Often m
is estimated® as 180 MeV rather than 125 MeV.

The mass term (19.7.12) includes meson-meson interactions. Using
Eqs. (19.7.14), (19.7.11), and (19.7.9), we may write the purely bosonic
part of this term in the LLagrangian as

% mass,bosonic = 30 Tt {Mq(U+ + U)} . (19.7.23)

The form of this term could have been deduced from general symmetry
considerations, which also allow us to find the allowed terms of higher
order in M,;. Suppose we invent an external 3 x 3 field y, and replace
the mass term (19.7.12) in the underlying quantum chromodynamics La-
grangian with the y—quark coupling term

Fy=-1 [ 1+ sk + 301 —?S)XT] q, (19.7.24)

which becomes the same as Eq. (19.7.12) when we make the replacements
x = x' = M,. The point of this procedure is that the Lagrangian (19.7.24)
becomes formally invariant under SU(3) x SU(3) if we give ¥ the formal
transformation rule

¥ — eXp (izzla()‘f) X eXp (—iZ}taQI;) : (19.7.25)
a a

Thus we can work out the allowed bosonic terms involving quark masses
by writing the most general SU(3) x SU(3) Lagrangian (up to some given
order in derivatives and M) involving U and y, requiring also invariance
under the parity transformation

U(x, t) < UT(—x, 1), xexl, (19.7.26)
and then making the replacements
r=x"=M,. (19.7.27)

For instance, the interaction Tr(UTy 4+ Uy') is invariant under SU(3) x
SU(3) and parity, and becomes of the same form as Eq. (19.7.23) when
we give y the values (19.7.27).

Using this technique, Gasser and Leutwyler®® have given the complete
effective Lagrangian for the pseudoscalar octet of fourth order in momenta
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or meson masses (with quark masses counted as being of second order in
meson masses) as

2
La=LTe {3,U 6"V} + Ly Tr {8,U8,U"} Tr {0rU 0" U}
+L3 Tr {0,U U 0,U 3" Ut} + Ly Tr {0,U 0*U'} Tr {My(U + Uh)}
+LsTr {a#Ua#UT (MU + UTMQ)} + Lg [Tr {Mq(U + UT)}]2
2
+L, [Tr {wr- U)Mq}] + Ls Tr {(UM,) + (U M,D)} . (19.7.28)

where Li,...,Lg are constants to be determined by comparison with
experiment. The complete effective Lagrangian up to fourth order in
meson masses and momenta is

L=+ Y, (19.7.29)
where #; is the sum of the terms (19.7.10) and (19.7.23):

$r=—LF2Tr {6HU8”UT} + WwTr {Mq(U‘r + U)} . (19.7.30)

Electroweak interactions may be included by replacing the derivatives 0,
with suitable gauge-covariant derivatives D, and adding a few additional
terms t0 Z.uf.

Following the same power-counting arguments as in Sections 19.5 and
19.6, to calculate S-matrix elements to fourth order in meson masses and
momenta we must include both tree graphs to all orders in ., and up to
first order in %4, and also one-loop graphs constructed from %, alone.
Gasser and Leutwyler and others have carried out a comprehensive study
of meson dynamics (and associated electroweak interactions) using this
effective Lagrangian.4

* %k %

The quark mass term (19.7.12) naturally affects other SU(3) multiplets.
For any multiplet other than the pseudoscalar octet this can be treated as
a first-order perturbation, and therefore gives a shift in the mass matrix
of a generic multiplet {i} equal to

Smiy = (1GM,alj) (19.7.31)

and SU(3) may be used*! to relate the various matrix elements (i|3,gs| ).
In this way, it is straightforward to show that

ﬁmp — omy, Mz —my

(19.7.32)
m, — my Mg

Using this together with Eq. (19.7.22) gives the quark mass contribution
to the nucleon mass splitting dm, — dm, ~ —2.5 MeV. This result may be
used in Eqgs. (19.5.65) and (19.5.66) to calculate the leading violations of
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isospin symmetry in low energy pion-nucleon interactions. Of course, as
defined here om, — dmy is not the full proton-neutron mass difference,
which receives an important contribution also from photon emission and
absorption. Because the neutron is electrically neutral, this electromag-
netic term is almost certainly positive, in agreement with the fact that
the observed proton—neutron mass difference is —1.3 MeV, leaving 4-1.2
MeV to be accounted for by electromagnetism. Unfortunately, accurate
calculation of this electromagnetic mass difference has proved difficult.

19.8 Anomalous Terms in Effective Field Theories”

In implementing the effective field theory program described in the previ-
ous three sections, it is necessary that the action should contain all possible
terms allowed by the assumed symmetries of the theory. The methods de-
scribed in these sections allow us to identify all manifestly invariant terms,
either by using the general formalism of covariant derivatives described
in Section 19.6, or for chiral symmetries by using a linearly transforming
field subject to non-linear constraints, like the U(x) of Section 19.7. But
it is possible that there may be other terms in the action of the effective
field theory that are anomalous in the sense of being given by integrals of
four-dimensional Lagrangian densities that are not invariant, but whose
variation under the broken symmetry is a spacetime derivative, preserving
the invariance of the corresponding term in the action.

As we shall see in Section 22.7, such a term was discovered for SU(3) x
SU(3) by Wess and Zumino,*? in a study of ‘anomalies’ due to quark loop
graphs. However, the structure of this term can be understood without
knowing anything about the underlying theory of quarks and gluons.

The easiest way to describe the Wess—Zumino term is by an extension
of spacetime to five dimensions, introduced for this purpose by Witten.4?
As long as we require the fields in an effective field theory to approach
a common limit as x* — oo in any direction, we can think of spacetime
as having the topology of a sphere S4, with the point at infinity included
as an ordinary point. As remarked in Section 19.6, when a group G is
broken to a subgroup H, the possible values of the Goldstone boson fields
¢, at any spacetime point may be regarded as defining a point in the
coset space G/H (the space of elements of G, with two elements identified
if they differ by multiplication on the right by elements of H), so a set
of functions £,(x) represents a mapping of the spacetime S, sphere into
G/H. Depending on the topology of G/H, it may be possible smoothly to

" This section lies somewhat out of the book’s main line of development, and may be
omitted in a first reading,
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deform any four-sphere in G/H to a point; that is, it may be possible to
extend any {,(x) to a continuous function &,(x;s) defined for 0 > s > 1,
for which £a(x;0) = £u(x) and &,(x; 1) is any fixed point (say, £, = 0)
on the original sphere. Where this is true, it is expressed mathematically
as the statement that the homotopy group ms(G/H) is trivial. (For a
discussion of homotopy groups, see Section 23.2.) It is known that this is
the case for SU(N) x SU(N) spontaneously broken to SU(N), where the
coset space SU(N) x SU(N)/SU(N) has the topology of SU(N) itself.**
Hence in the case of physical interest, where G = SU(3) x SU(3) and
H = SU(3), we may extend the Goldstone boson fields, or equivalently
U(x), (see Eq. (19.7.9)) to a unitary unimodular matrix U(y) defined in a
five-dimensional ball Bs with coordinates x* and s, whose surface is the
four-dimensional sphere of spacetime.
Now consider the following function formed from U(y):

_ I iikdm _IﬁU _ _laU _15U _1 0U

(19.8.1)

where indices i, j, etc. run over the five coordinate directions for the
coordinates x* and 5. (The phase and numerical coefficient are chosen
for later convenience.) This is manifestly invariant under the chiral
transformations (19.7.8). Also, because €7%™ is a tensor density, the
integral of w(y) over the five-ball is manifestly independent (up to a
sign) of the choice of five-dimensional coordinates y'. Furthermore, this
integral depends only on the values taken by U(y) on the ball’s surface;
that is, in spacetime. To check this last point, note that when we make
an infinitesimal variation 6 U(y) in U(y) in the interior of the ball, w(y)
changes by a derivative:

_ b gm0 { 10U 08U 40U . 0U 1 }
dw(y) 152¢ aymTr vt 5y U~ ﬁy ok U N U oU
(19.8.2)

(for this calculation, see Section 23.4), so a change in U(y) that does not
affect its value in spacetime also does not affect the integral of (19.8.1)
over the five-ball Bs whose surface is spacetime. We can therefore include
this integral as a term in the action:

Iwzw[U] = n/B &y w(y) (19.8.3)

with n a coefficient that so far is arbitrary.

" This is shown by the fact that we can use SU(N) elements U(x) to represent the right
cosets of SU(N) in SU(N)} x SU(N).
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This term may be written as the four-dimensional integral of a La-
grangian density, but not of an (SU(3) x SU(3))-invariant Lagrangian
density. Using Eq. (19.7.9), the leading term in @(x) in the limit of small
meson fields is

w(x) — 8y2 eliklim Tp {aB 0B 0B 0B 0B } : (19.8.4)

15n2F3 dy! Dyl dyk dyl dym

where B is the matrix (19.7.11) of Goldstone boson fields. It follows then
from Gauss’s theorem that

N7 R { 0B 0B 0B 0B B¢
Iwzw[U] = 1572F3 € s4d x Tr B i N } + 0 F )
(19.8.5)

Although chiral invariant, this cannot be written as the integral of a
chiral-invariant density over spacetime, because any chiral invariant den-
sity would have to be constructed out of the first and higher covariant
derivatives of the Goldstone boson fields, and so, when expanded in pow-
ers of the Goldstone boson fields, such an invariant density would begin
with a term involving only derivatives of B, not B itself.

As Witten noted, the inclusion of this term in the effective action
resolved what otherwise would have been a conflict between the SU(3) X
SU(3) effective field theory and experiment. Because no 77 terms
appear in the effective Lagrangians (19.7.28) and (19.7.30) (or in higher-
order terms of this sort) parity conservation imposes the requirement that
these terms are even in the Goldstone boson fields, ruling out processes
like K + K — 3m. Not only is there no symmetry in the underlying theory
of quantum chromodynamics that would account for such a selection rule
— there is even experimental evidence against it, for as Witten pointed
out, the ¢ meson is observed to decay both into K +K and 3 final states.
Eq. (19.8.5) shows that this unwanted selection rule is removed by the
Wess—Zumino—Witten term in the action.

Remarkably, the coefficient of the Wess—Zumino-Witten term is not a
freely adjustable parameter. As Witten showed,” this is because, although
this term is not changed by smooth deformations of the function U(y)
in Bs that do not affect U(x) on the spacetime boundary S4, the Wess—
Zumino-Witten term can be changed by a discontinuous change in U(y)
that leaves U(x) unchanged on the boundary. We may think of the five-
ball Bs as half of a five-sphere Ss, with the spacetime Sy as the border
between Bs and the other half B;. (Think of S5 as analogous to the
surface of the Earth, with the spacetime S as the equator and Bs and
B. as the northern and southern hemispheres.) Because 54 is also the
boundary of the other half of S5, we could just as well have written a
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Wess—Zumino-Witten term as
RerwlU1 = =n [ &%y 00) (19.86)
B

with a minus sign inserted because the boundary of Bj is the four-sphere
with opposite orientation. It is not possible to require that the terms
(19.8.3) and (19.8.6) should be equal for arbitrary Goldstone boson fields
without setting n = 0, but in order that the weighting factor exp(il) in
path integrals should be unaffected by the difference between the terms
(19.8.3) and (19.8.6), it is only necessary to require that this difference
should be 2z times an integer. That is,

IwzwlU] = Iyzw (Ul =n | &y w(y) = 2n x integer . (19.8.7)
Ss
With the normalization factors we have inserted in the definition (19.8.1)
of w(y), the integral of w(y) over any five-sphere turns out to have the
value* 2. It follows that the coefficient n must be an integer.

The example of the Wess—Zumino-Witten term raises the question
whether there may be other anomalous terms in the action, not necessarily
related to quark loops, that also are invariant under SU(3) x SU(3),
despite not being four-dimensional integrals of (SU(3) x SU(3))-invariant
Lagrangian densities. Fortunately, the answer is no. It has been shown®
that for a general group G broken to an arbitrary subgroup H (with
na(G/H) = 0), any term F[¢] in the action of the Goldstone boson fields
£a(x) may always be written as the integral of a G-invariant five-form Q
over a five-ball Bs whose boundary is the spacetime four-sphere Sy:

i O0Cq 08y 08, 04 OF
= [ &y eikim 585 “ne ¢ . 19.8.8
In order that this should be independent of the particular way that &,(x)
is extended into the interior of the five-ball, it is necessary that Q should
be exact, in the sense that there it is the external derivative of a four-form

Qapede(§) = (0/0812) L peael (€) (19.8.9)

(with square brackets as usual indicating antisymmetrization with respect
to the enclosed indices), so that

dE 9Eb pge gt
— d . _pvpets Vh
Fle] f34 d'xe OXH Ox¥ OxP Ox°

It follows that Q is also closed; that is, it has a vanishing exterior derivative

(0/081r) Qubeaer(E) =0 . (19.8.11)

Where the four-form £ (¢} is also G-invariant, the functional (19.8.10)
is just one of the ordinary manifestly G-invariant terms in the action,

gabcd(é) . (19810)
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discussed in the previous three sections. The anomalous terms in the
action arise from the possibility that, although every term in Q(y) is
G-invariant and the exterior derivative of a four-form, some terms may
not be the exterior derivatives of G-invariant four-forms. Thus the new
terms in the action may be identified with the closed G-invariant five-
forms that are independent, in the sense that no real linear combination
of them is the exterior derivative of a G-invariant four-form. These are
known in mathematics as the generators of the de Rham cohomology group
H*(G/H ;R). (The group multiplication rule here is just simple addition.)
The de Rham cohomology groups have been calculated for manifolds of
various topologies.*® In particular, H3(SU(N) x SU(N}/SU(N);R) has a
single generator, given by Eq. (19.8.1). Thus without knowing anything
about the underlying theory of quarks and gluons, we can learn everything
about the anomalous terms in the Goldstone boson action, with the single
exception of the value of the integer n. We will see in Section 22.7 that in
SU(N.) gauge theories this integer equals the number N, of colors, which
in quantum chromodynamics is n = 3.

199 Unbroken Symmetries

We have seen how the properties of Goldstone bosons and their low
energy interactions may be deduced from an assumption that the theory
is invariant (or approximately invariant) under a group G spontaneously
broken to a subgroup H. But in applying these methods to the cases where
G is SUQ2) x SU2) or SU(3) x SU(3), we had to take the pattern of sym-
metry breaking, of SU(2) x SU(2) or SU(3) x SU(3) to their non-chiral
SU(2) or SU(3) subgroups, from experiment. In Section 22.5 we shall
show that the SU(3) x SU(3) symmetry for massless u, d, and s quarks
must in fact be spontaneously broken in quantum chromodynamics, but
it is more difficult to show on the basis of quantum chromodynamics
that the SU(2) x SU(2) symmetry with only # and d massless is also
spontaneously broken.” On the other hand, there is an intuitive argument
that their non-chiral SU(2) or SU(3) subgroups are not broken, based on
a conjecture known as the persistent mass condition®®, which states that
composite particles will not be massless if the particles of which they are

* Weingarten?’ has used lattice methods to show that whether or not chiral symmetry
is broken, the lightest particle in quantum chromodynamics with massless u and 4
quarks must have the quantum numbers of the pion. As we will see in Section 22.5,
the existencc of anomalies due to fermion loops in quantum chromodynamics together
with the assumption of quark trapping requires that some hadron be massless, so
it follows that the pion is massless, which strongly suggests that chiral symmetry is
spontaneously broken.
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composed are massive. Non-chiral symmetries like isospin conservation
are not violated if we give the quarks equal masses, and then if they
were spontaneouly broken we would have the massless Goldstone bosons
formed as composites of massive quarks, in contradiction with the per-
sistent mass condition. In what follows we shall present a proof by Vafa
and Witten® that in gauge theories like quantum chromodynamics those
non-chiral symmetries that are not violated by quark masses can not be
spontaneously broken. This result is of more than academic interest; as we
shall see in Section 21.4, it is possible that the spontaneous breakdown of
electroweak gauge symmetries is described by a ‘technicolor’ theory similar
to quantum chromodynamics, and in testing this idea it is important to
know what symmetries are left unbroken in this theory.

Consider a gauge theory like quantum chromodynamics, with a number
of fermion ‘flavors’ in identical representations of the gauge group. If
all fermions have masses, then the theory will be invariant under all
unitary global non-chiral transformations on the fermion flavors that
commute with the fermion mass matrix. For instance, if ny fermions are
degenerate with a common mass my, np fermions are degenerate with some
other common mass mp, and so on, then this global symmetry group is
Uny) x U(np) x.... (As a special case, if there are no degeneracies we have
a global symmetry under U(1)x U(1) x...; an example is the conservation
of baryon number, strangeness, etc. in quantum chromodynamics.) These
symmetries cannot be spontaneously broken.

To prove this, let us consider a general Greens function for r fermion
and antifermion fields.”” In the path-integral formalism this is’

(T { ks (61) - Wk, ) W, 1) ] (9) Phvac
1
= f [ANdw] [ wunky (X1) - W, ) 0] (1) -0, ()

X eXp (ifgauge[A] + ilpirac[y, wT ;A]) , (19.9.1)

where kq ...k, and I} ... ], are Dirac spin indices, #; ..., and v; ...v, are fla-

** In the original work of Vafa and Witten,* they first proved the absence of symmelry
breaking in the case r = 1 with x = y, then observed that the absence of symmetry
breaking in this vacuum expectation value did notl rule out the possibility of a
spontaneous symmetry breakdown occurring in other Greens functions, and so went
on to different methods of proof.

' As we saw in Section 15.5, both numerator and denominator are proportional to the
infinite volume of the gauge group, which cancels in the ratio (19.9.1). The presence of
this infinite factor detracts from the rigor of the following arguments, but if we were
to remove it by introducing ghosts then some of the steps below that depend on the
positivity of the action would raise difficulties. One way to deal with this problem is
to replace the spacetime continuum with a finite lattice of points, in which case the
gauge group has a finite volume, and no gauge fixing or ghosts arc needed.
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vor indices, Inauge[A] is the action for a pure gauge theory, Ipirac [p,pt, A4]
is the action for the Dirac fields in the presence of a gauge field A%4(x),
and Z is the vacuum-vacuum amplitude

2 = [14Ady)ld] exp (LgumselA] + ilpiccly. v A1) . (199

It will be necessary here to work in a Euclidean spacetime, with x* =
xq = X%, y* = yq = iy¥, and A? = A4, = iy, all real. (See Appendix A of
Chapter 23.) In this case, the Dirac action is

IDirac[‘Psz;A] = ifd3x / dx? wT D+ My, (19.9.3)

where M is the fermion mass matrix, and p is the Euclidean gauge-
covariant derivative contracted with the Euclidean Dirac matrices

4
P=> (&i—it"Ai) Vi, (19.9.4)
i=1

where as usual y4 = iy9. Because the action is quadratic in fermion fields,
we can explicitly perform the integral over these fields

(T {Wungo (1)~ P (2], (1) B 0 Phvac
1
- f [dA] Det (B + M) exp (il gugelA])

x [(l) + M);llul ko0 P+ M);rlur ko yroel, T permutations| ,
(19.9.5)

where ‘+ permutations’ indicates that we must sum over all r! permuta-
tions of the v fields, with a minus sign for odd permutations, and

Z = f [4A] Det (B~ M) exp (il guuge [ 4]) - (19.9.6)

The expression (19.9.5) is manifestly invariant under any unitary transfor-
mation on flavor indices that commutes with the mass matrix M. It does
not matter what non-perturbative effects are produced by the functional
integral over gauge fields and ghosts; these fields are inert under the
symmetries in question here, so that the remaining functional integral in
Eq. (19.9.5) cannot break these symmetries."" But for this argument to be
convincing, we must show that the expression (19.9.5) is well defined.

1t is more difficult to show that P, C, and T arc not spontaneously broken in quantum
chromodynamics with massive quarks, because these symmetries act non-trivially on
the gauge fields. Vafa and Witten®® have applied the methods of Ref. 49 to show that
P is not spontaneously broken in quantum chromodynamics.
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This is not merely an academic question of mathematical rigor. As
we saw in Section 19.1, the sign that a symmetry 1s not spontaneously
broken is not just that the ground state is invariant under the symmetry
transformations, but also that the symmetry of the ground state is stable
under small perturbations. If we break the symmetries of M by adding
a small perturbation §M, and if the expression (19.9.5) becomes singular
as 0M — 0, then factors of §M in symmetry-breaking matrix elements
may be cancelled by the singularities in the matrix elements for 6M = 0.
Precisely this happens for chiral symmetries, which arise in a symmetry
limit where some of the eigenvalues of M vanish. In this case, as we
approach the symmetry limit of zero mass, the factors of mass in the
numerators of symmetry-breaking expectation values are cancelled by
factors of mass in the denominators of the propagators (J+M)~! wherever
P has zero eigenvalues. For this reason, the arguments here will apply
only to the non-chiral symmetries of theories with mass matrices M whose
eigenvalues are all non-zero.

To set a bound on the matrix element (19.9.5) in this case, note first
that the differential operator (19.9.4) is here antihermitian, so as long as
the hermitian matrix M has no null eigenvalues, ) + M has a well-defined
inverse. It is still necessary to show that the remaining integration over
the gauge fields in Eq. (19.9.5), including that in Z, does not make this
expression singular when M satisfies the conditions for a symmetry, for
instance that n of its eigenvalues are equal for a U(n) symmetry. As
we shall see, this will insure that when a fermion mass matrix M that
is invariant under some global symmetry transformation is perturbed by
adding a small term dM that breaks this symmetry, the change in the
expectation value (19.9.4) under this symmetry transformation vanishes in
the limit 6 M — 0.

It 1s difficult to show that the coordinate-space Greens functions
Eq. (19.9.5) are non-singular, so let us consider instead the matrix el-
ement for smeared fields

W, = / Px () W (x) | (19.9.7)

where f*(x) are arbitrary smooth square-integrable functions. In these
terms, Eq. (19.9.5) reads

SR AR RIAE AT B /A5 1
_ % / [dA] Det (I + M) exp (il gauge[4])

X [(Q + M)Elul, qu B+ M))‘_;Iu,, g0, T PeTMUtations| ,
(19.9.8)
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where
@+ M7k o= [ a5 [ @ 10 B+ Ml 800 (1999)

In this basis, the fermion propagators for a given gauge field are not only
well defined, but bounded uniformly in A#(x):*

1
< Z i (19.9.10)

where m, are the eigenvalues of M, and for convenience we are now
normalizing the functions f;(x) and g;(y) so that

B+ M),

[Hlwimdx= [gwgmdy=1. (199.11)

(The summation convention is suspended here.) Furthermore, the weight
function for the average over gauge fields is positive:H

4
Det (P + M)exp (ilgauge[4]) = GXP( /d3 /dx ZFUZ)
i=l J=1

X ﬁ)et {(;'D)2 + M2 (19.9.12)

With a positive weight function, the average of any function is bounded
by the bound of that function. Using the bound (19.9.10) in Eq. (19.9.8),

¥ To see this, we may cxpand in the eigenvectors of M
"
Myl = m, ¢l cy €y = Oup

it

and, adapting a trick of Vafa and Witten,* write Eq. (19.9.9) as

(H + M); fu gr = Zcﬂ-ff/dd-xfd4y f“(x) (1,3+mu);ci:,yt gt(y)

=3 ree / exp(—/my|) / d'x / &'y 1) (Exp(Fe Pt 1 8'0).
0

where + is the sign of m,. The matrix c¢"¢? and the operator (exp(¥t P))ex,, are
both unitary, so

Cu €y [d“x/d“y F) (exp(FT Psa, »18'(Y) é/d“x If (ol /d“ylg(y)l“ =
Using this insidc the integral yields Eq. (19.9.10).

1t In the fermion determinant, we use the fact that Det (Jf + M) = Detys (P + M)ys =
Det (— § + M).
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the matrix element is bounded by

r

(T {20 U0 W0 U L] - 2 [ hvac | < 7! [2 hi |
a a

(19.9.13)

Thus there are no singularities as the symmetry-breaking terms §M in M
go to zero that could cancel factors of M. To see this more explicitly,
we can use the same methods to show that if we perturb M by a small
symmetry-breaking term M, then the term in Eq. (19.9.8) of first order

in 6 M is bounded by
‘5(T {‘Pu. [f1]-- -, [F ] ] [ga] -] [gr]}>VAC|

r—1
<rrty) (6M)ab| [Z 1 ] , (19.9.14)

ab |mamy| a |my|

so this vanishes when 6 M — 0,

In the real world none of the quark masses are zero or degenerate, so it
follows immediately from the above arguments that the U(1) symmetries
like conservation of baryon number, strangeness, etc., are neither sponta-
neously nor intrinsically broken. The other strong-interaction symmetries
like isospin or SU(3) are more problematic. These symmetries would be
completely unbroken if the u and d quarks, or u, d, and s quarks, had
equal non-zero masses, but as we saw in Section 19.7, these masses are
not at all degenerate; the isospin and S U(3) symmetries arise because the
quark masses are small, not equal. These symmetries do remain unbroken
if we give two or three quarks equal masses and let the masses become
arbitrarily small, so isospin or SU(3) will be good symmetries in any pro-
cess that is not sensitive to the small quark masses. But not all processes
are insensitive to these masses, because for two or three massless quarks,
the pion or the pseudoscalar meson octet to which it belongs becomes
massless. This is not a problem for isospin, because as we saw in Section
19.5, the pion triplet remains degenerate to first order in quark masses
even though my, # my. For SU(3) the quark mass differences produce first-
order mass differences among the pion, kaon, and eta, so that processes
dominated by one-meson poles can show large departures from SU(3).

19.10 The U/(1) Problem

The success of quantum chromodynamics in explaining the pattern of
strong-interaction symmetries seemed at first to be marred by one failure.
As we saw in Section 19.5, the broken SU(2) x SU(2) symmetry of the
strong interactions is a natural consequence of the smallness of the u and
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d quark masses. But the Lagrangian of quantum chromodynamics with
small # and d quark masses also has another chiral symmetry,*' the U(1)4
symmetry under transformations

u — exp(iysQu , d — expliys@)d . (19.10.1)

Such a symmetry if unbroken would, like SU(2) x SU(2), impose a parity
doubling on the hadron spectrum, but no such parity doubling is observed.
On the other hand, a broken U(1)4 symmetry would imply the existence
of an isoscalar 0~ Goldstone boson with a mass comparable to that
of the pion, and this Goldstone boson is also not observed. It is true
that the n meson is an isoscalar 0~ boson, but it is considerably heavier
than the pion, and as we saw in Section 19.7, it is well understood as
one of the Goldstone bosons of SU(3) x SU(3). With the s as well
as the u and d quarks regarded as relatively light, the Lagrangian of
quantum chromodynamics would have a U(1) chiral symmetry in addition
to SU(3) x SU(3), under the transformations

u — exp(iysfu , d — expliys)d , s — eXpliyst)s .  (19.10.2)

The spontaneous breakdown of such a symmetry would require the exist-
ence of two isoscalar 0~ mesons: one the #, and the other with a mass
comparable to that of the pion.

This prediction can be made more explicit.” If we include the transfor-
mation (19.10.2) among the spontaneously broken symmetries of massless
quantum chromodynamics, then in the presence of quark masses we en-
counter a term (19.7.12):

t.52

Prmass = —G Mgq =—7 e~ iV2isB/Fy M, ¢ V2isB/ F g, (19.10.3)
where again
m, 0 0
Mg=10 my 0O |, (19.10.4)
0 0 my

but now B includes a Goldstone boson field { for the broken symmetry
(19.10.2):

%‘EO + Jen® nt K*
= AN L
= 0 2.0
K K —-\/;.'1'
Fr

[ 00
0 ¢ 0}, (19.10.5)
00 ¢
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with Fy the unknown coupling of the U(1)4 Goldstone boson to the cor-

responding current (and the factor /3 inserted for future convenience.)
We can again use the unbroken SU(3) symmetry to write the vacuum ex-
pectation value of the quark bilinear in the form (19.7.14), and expanding
in powers of the boson fields, we find a Goldstone boson mass term in
the Lagrangian of the form

2
13} U F:rr
_F%- Tr {B, {B, Mq}} = [4??1” (\/77[ + 7 \/§F§ C)

+4(my, + mg)ntn + 4(mu + mq)K"'I_(*
+4m ( ! +—=n"+ )2
d| ——=n°
V2 f ch

2
_ 2 F
4(mg + m)KOK® + 4m, | —1/Z4° il .
(19.10.6)

The charged and strange meson masses are the same as before, but now
the neutral non-strange mesons have a mass matrix

[ my+m my My —my
2F; 2\[ 3F2 J6FrFy
) my—my  my+mg+dmg  my+mz—2mg
M5 = 8v 2\/3};*% 6F% 3‘\/§F:’IFC (19.10.7)
my—mg  Myt+mg—2ms  my+mg+mg
| 6FiF;  32FiF; 3F; |

with rows and columns listed in the order n° #°, and ¢.

In the limit where m, and my; vanish, this has two eigenvectors with
eigenvalue zero:

1 1 0
Uy = ( 0 ) \ Up = ——— F, : (19.10.8)

0 2 +2F; \ \f2F;

In this orthonormal basis, the mass-squared matrix to first order in m,
and my is

(19.10.9)
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1211 (my, + my)
FZ+2F; 7

‘/_v(mu — md
 2F, F2+ 2F2

The effect of the off-diagenal term (19.10.11) i1s to decrease the product
of eigenvalues by a negligible fractional amount (m, — my)?/64(my + ma)>,
while of course leaving the sum of the eigenvalues unchanged, so the
cigenvalues are given to a good approximation by the diagonal elements
(19.10.9) and (19.10.10). Comparing Eq. (19.10.9) with Eq. (19.7.16), we
see that the particle corresponding to the eigenvector u, is the n°. The
other particle, corresponding 10 u,, has a mass

mab

(19.10.11)

\/_mn
mpy ~ ~ < /3m, . (19.10.12)
" W F2 4+ 2Fc

Thus a broken U(l)4 symmetry would require a neutral pseudoscalar
Goldstone boson with mass less than ﬁmn, in addition to the pion
itself. It hardly needs to be said that no such strongly-interacting particle
exists.” We shall see in Section 23.5 that this problem was eventually
solved by the discovery of non-perturbative effects that violate the extra
U(1)4 symmetry.

Problems

1. Apply the general theory of broken global symmetries to the case
where an SO(3) symmetry group (with generators ty, t3, t3) is sponta-
neously broken to its $O(2) subgroup (with generator t3). How do the
(Goldstone boson fields transform under infinitesimal S O(3) transfor-
mations? (Use the exponential parameterization of the coset space
S0(3)/S0(2).) Evaluate the covariant derivative D,, of the Gold-
stone boson field, and of a general field with a non-vanishing value
g for the unbroken symmetry generator t3. What is the most gen-
eral SO(3)-invariant Lagrangian involving Goldstone bosons alone
with no more than two derivatives? Use this Lagrangian to cal-
culate the terms in the invariant amplitude for elastic scattering of

* Note that taking F; > F, would give the extra neutral scalar a very light mass, but
its interactions would be so weak that it might have escaped detection. It seems
unlikely that a very large ratio of F, to F: could arise in quantum chromodynamics,
but something like this happens in theories with extra ficld vanables that have been
proposed to avoid parity violation by instantons; see Section 23.6.
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the Goldstone bosons to lowest order in their energy. What is the
most general SO(3)-invariant Lagrangian with two non-Goldstone
field factors and at most one derivative? What is the most general
function of the Goldstone boson field alone (with no derivatives)
that transforms like the three-component of an SQ(3) three-vector.
Add this term to the Lagrangian, with a coefficient chosen to give
the Goldstone boson a mass m, and recalculate the lowest order
amplitude for Goldstone boson scattering.

Consider a theory with an SU(N) global symmetry, spontaneously
broken to SU(N — 1). Suppose we add a small symmetry-breaking
perturbation, belonging to the defining representation N of SU(N).
Taking vacuum alignment into account, what symmetry group is
completely unbroken? What about the case where the symmetry-
breaking perturbation belongs to the adjoint representation of
SU(N)?

Calculate the pion-pion scattering amplitude to one-loop order, tak-
ing account of a finite pion mass.

Derive the ‘Adler sum rule the analog for the case of pion-pion
scattering of the Adler Weisberger sum rule.

. Calculate the SU(2) x SU(2) transformation properties of the pion

field £, in the case where the cosets of SU(2) x SU(2)/SU(2) are
parameterized as exp(i&,xq).

. Use Eq. (19.7.31) and SU(3) symmetry to derive the relation (19.7.32).
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Operator Product Expansions

We often find ourselves needing to know how an amplitude behaves when
the four-momentum brought in by one operator and out by another goes
to mfinity, with all other external lines held at fixed four-momenta. For
instance, we will see in Section 20.6 that the total cross section for the
scattering of an electron by an initial hadron H, with arbitrary hadrons in
the final state, is given by unitarity as a linear combination (with known
coefficients) of the components of the amplitude

/ d*x e (H|JH0J (O)|H) |

where k is the four-momentum transferred from the electron to the
hadrons, and J#(x) is the electromagnetic current. In the case of deep
inelastic electric scattering the momentum k that is carried in by one
current operator and out by the other is allowed to go to infinity. Sim-
ilarly, in studying the high momentum limit of various propagators and
deriving corresponding spectral function sum rules in Section 20.5, we
shall encounter the high momentum limit of similar Fourier transforms,
but with the one-hadron state |[H) replaced with the vacuum.

If an operator product such as J*(x)J"'(0) were analytic in x#, then its
Fourier transform would decrease exponentially as the Fourier variable &
goes to infinity. The leading terms in the high momentum limit of the
Fourier transform arise from the singularities of the operator product as
the spacetime arguments approach one another. The study of such oper-
ator products was initiated in 1969 by Wilson,! originally as an attempt
to formulate a substitute for conventional quantum field theory. As has
happened earlier (for instance with dispersion relations and Feynman’s
diagrammatic rules) the effort to bypass quantum field theory led to valu-
able general results, but results that can best be understood as general
properties of quantum field theory.

The operator product expansion will be stated in Section 20.1. The
standard proof of this expansion was given in perturbation theory in
1970 by Zimmerman.” In Section 20.1 we shall offer a non-perturbative
and simpler though less rigorous derivation based on the path-integral

AL
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formulation of field theory. Section 20.2 will present a different perspective
on the operator product expansion, in terms of the flow of large momenta
through Feynman graphs, which will lead us to a perturbative proof.

There are several aspects of the operator product expansion that make
it particularly useful for drawing consequences from theories like quantum
chromodynamics. Ong¢ such property, discussed in Section 20.3, is that the
functions describing the singularities in this ¢xpansion have a momentum
dependence governed by renormalization group expansions, so that in
asymptotically free theories they can be calculated at large momenta
using perturbation theory. Another aspect, shown in Section 20.4, is
that these functions exhibit the full symmetry of the underlying theory,
unaffected by possible spontaneous symmetry breaking. Applications will
be considered in Sections 20.5 and 20.6.

20.1 The Expansion: Description and Derivation

Wilson! hypothesized that the singular part as x — y of the product
A(x)B(y) of two operators is given by a sum over other local operators

x)B(y) — ZF Y C(), (20.1.1)

where FAB(x — y) are singular c-number functions. Dimensional analysis
suggests that FAB(x— y) behaves for x — y like the power dc —d4 —dp of
x —y, where dg is the dimensionality of the operator O in powers of mass
or momentum, Since do increases as we add more fields or derivatives
to an operator O, the strength of the singularity of FAB(x — y) decreases
for operators C of increasing complexity. The remarkable thing about
the operator product expansion is that it is an operator relation; that
is, in applying it to any matrix element {§|4(x)B(y)|a), we get the same
functions FAB(x — y) for all states |«) and |8).

It is the decrease of the singularity in Eq. (20.1.1) with operators C(y)
of increasing complexity that makes this expansion useful in drawing
conclusions about the behavior of the product A(x)B(y) for x — y. The
simple power-counting argument above is modified by renormalization
effects; the expansion (20.1.1) must be formulated in terms of operators
renormalized at some scale pu, and then u appears along with x — y in
the coefficient function FAB(x — y). We shall see in Section 20.3 that
in asymptotically free theories FAB(x — y) does behave like the power
dec —d4 —dg of x — y suggested by dimensional analysis only up to a
power of In (x — y)?. Even in more general theories, it is plausible that the
singularities associated with various operators C(y) will decrease with the
complexity of the operators.
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The corresponding statement in momentum space 1s that for k — oo,

f d*x e A(0)B(0) » 3 VAB(k) C(0) (20.1.2)
C

and correspondingly

/ d*x e **T{A(x)B0)} = > U k)C(0), (20.1.3)
C

where VAB(k) and UAB(k) are functions of k* that for large k decrease
increasingly rapidly for more and more complicated terms in the series.
We are going to derive a generalized version of the Wilson expansion,
in which the momenta carried by any number of operators go to infinity
together. For this purpose, let us consider a Greens function for local
operators Aj(xy), Az(x3), etc. whose arguments approach a point x, as
well as other local operators Bi(y;), B2(y2), etc. with fixed arguments:

(T{Ay(xy), Aa(x2), ... Bi(y1), B2(y2) .- })o

=f [Hd¢{(2)] ai(x1)az(xz) - --bi(y1) ba2(y2) - - -explil [¢])
£z

(20.1.4)

where the lower-case letters a and b indicate replacement of the field
operators in the As and Bs with the c-number fields ¢. Now surround
the point x with a ball B(R) of radius R which is much larger than the
separations among the xi, x, etc. but much smaller than the separations
between x, y;, v, etc. Since the action is local, it may be written as

I= f d*z L(z) + f d*z ¥(z). (20.1.5)
zeB(R) z¢ B(R)
Eq. (20.1.4) may then be put in the form
(T{Ai(x1), A2(x2), ... B1(y1), B2(y2) ---})o

=/[ I1 d‘,bf(z)] bi(y1) ba(y2) ... exp (ifng(R) y(z))

z¢B(R), /

x/! H dqbg(z)] aj(xy)axxy) ...exp (i/z-GB(R) Lp(z)) , (20.1.6)

z€B(R), ¢

in which the path integral over the fields inside the ball is constrained by
the boundary condition that the fields merge smoothly at the ball’s surface
with the fields outside the ball. Aside from this boundary condition, the
path integral over the fields inside the ball is completely unaffected by the
behavior of the field outside the ball, so the integral over the fields inside
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the ball may be expressed in terms of the values and derivatives of the
fields on the surface of the ball, which in turn may be expressed in terms
of the fields and their derivatives extrapolated from outside the ball to
the interior point x. If we express this integral as a series in products’
o(x) of the c-number fields and their derivatives extrapolated to x, then
the coefficients can only be functions UAI’AE‘ (X1 — X, X2 — X, ...) of the
coordinate differences. Since the points y;, ys, ¢tc. are all far outside the
ball B(R), the exclusion of this ball in the action for the fields outside the
ball has no effect in the limit R — 0, so in this limit Eq. (20.1.6) becomes

(T{A1(x1), Aa(x2), ... Bi(y1), Ba(y2) .. o—>/ {qus,(z)]

X b1(y1) ba(y2)... exp (!f 3(2’))
X Z Us 2 (xg — x, X2 — X, ...) o(x)

- Z UA‘ A (x1 — x, X2 — X, ..) (T{O(x), Bi(y1), B2(y2) ... })o

(20.1.7)

for x;, xj, etc. all approaching x, where O(x) is the quantum-mechanical
Heisenberg-picture operator corresponding to o(x). In particular, by
Fourier transforming with respect to the y variables and multiplying with
appropriate coefficient functions, this yields

(BIT{A1(x1), A2(x2), .. }H|) — ZU"“’*E’ (X1 — X, X2 — X, ...) {BlO(x)|%)

(20.1.8)
for arbitrary states |«) and (f|. Because this applies for arbitrary states, it
is the operator product expansion in a generalized version:

T{Ai(x1), Aa(x2), ...} > S U™ (x1 =X, x2—x,..) O(x) . (20.1.9)
(8]

20.2 Momentum Flow”

We shall now consider the simplest example of the operator product
expansion: the asymptotic behavior of an (n+2)-point Feynman amplitude

* In order for the cocflicients in this series to be finite, these products must be renor-
malized by multiplication with suitable infinite factors. This will bc made clearer in
the derivation presented in the next section.

* This section lies somewhat out of the book’s main line of development, and may be
omitted in a first reading,
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in the theory of a single real scalar field ¢(x) with mass m and interaction
Lagrangian density — Lg¢* when a large four-momentum k flows in
one line and out another, with all other external lines held at fixed
momentum. This will Jead us to a perturbative proof of the leading term
in the operator product expansion in this case, but our real purpose here
will be to gain some insight into the way that the flow of large momenta
through Feynman diagrams leads to this expansion. An appendix to this
chapter will discuss the extension of these results to the general case.

Let us define T'(k;py---pp) as the sum of all connected graphs for
the n-particle scattering amplitude, whose external lines carry incoming
momenta k, p—k, and outgoing momenta p; : - p,, where p = p{ + p» +
* -+ pu. (It will be convenient to specify further that I'(k; py - - - p,,) includes
propagators for the external lines with momenta k and p — k, but not for
those with the fixed momenta p; - - - p,.) We wish to show that in any finite
order of perturbation theory, for k — oo,

T(kipy - pa) = Ugal)Fge(py - p) + Ok, (20.2.1)

where Ug(k) is a sum of terms of order*™ k~*, that is independent of
p1° - pn and of n, and Fy(p1---pn) is the amplitude for n ¢ lines with
insertion of a single ¢? vertex, times a suitable renormalization constant
Z4 to make it finite. Because Fy:(py - - ps) is a matrix element of the
renormalized operator (¢%)r = Z;:¢%(0), Eq. (20.2.1) corresponds to the
statement that the leading term in the operator product expansion for
k — oo ist

[ % e T(grbr O » Utk PO)r . (2022)

In assessing the asymptotic behavior of Feynman amplitudes, we must
take account of the fact that there are parts of the range of integration in
momentum space where some of the internal lines carry momenta of the
same order as the external line momenta that are going to infinity, while
other internal lines do not. The contribution to I'(k;p;--- p,) from the
part of the region of integration where the lines in some subgraph . have
momenta of order k has an asymptotic behavior of order k?#, where D

** Throughout this chapter, whenever it is said that an amplitude is of order k%, it should
be understood that for k* = kn® where k — oo with #* a fixed generic four-vector, the
amplitude approaches k4 times a sum of powers of Inx.

" The subscript C on the time-ordered product here indicates that we are including only
connected graphs. We have dropped the superscript ¢¢ on V42, because in this section
we are concerned only with the operator product expansion for two ¢ fields. These
fields are themselves renormalized, because we implicitly include counterterms along
with radiative corrections for the propagators of the lines carrying momenta k and
p—k,
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is the dimensionality of the subgraph ., calculated according to the rules
of Section 12.1. If % has m external lines that connect it to the rest of the
graph as well as the two external lines with momenta k and p — k, then
from Eq. (12.1.8) we have Dy =4 -2 —m—4 = -2 —m. (The term —4
arises from the two propagators of the lines with momenta k and p — k,
which we have specified are to be included in I'(k;p1---pn).) Thus the
asymptotic behavior of T is dominated by the part of the momentum-space
integral where the large momentum k flows either through the whole graph
or through some subgraph, whichever has the smallest number of external
lines.?

For n = 0 this is always the whole graph; that is, the dominant part of
the integral comes from the part of the region of integration where every
line carries a momentum of order k, giving an asymptotic behavior of
order k2. In this case the only operator in the operator product expansion
contributing to this matrix element is the unit operator, C = 1. This term
is excluded here for n > 0 because for the present we are limiting ourselves
to connected graphs.

For n = 2 the dominant contribution comes both from the whole graph,
and trom subgraphs in which the two external lines with momenta k and
p — k are connected to the other two external lines by a bridge consisting
of two internal lines,’" giving an asymptotic behavior of order k=*. For
n = 4 the dominant contribution comes only from subgraphs in which the
two external lines with momenta k& and p — k are connected to the n > 2
other external lines by a bridge consisting of two internal lines, again
giving an asymptotic behavior of order k—*.

The analysis of the cases n = 2 and n > 4 is complicated by the fact
that a general graph may contain several of these two-particle bridges.
Let us first consider the case n = 2. We define I (k,k’,p) as the sum of
all graphs contributing to I'(k;py,p2) (with py = k', p, = p—k/) that
are two-particle-irreducible, in the sense that the two external lines with
incoming momenta k and p — k cannot be disconnected from the two
external lines with momenta k&’ and p — kK’ by cutting through any pair
of internal lines. Then I'(k;k’,p — k') — I{k,k’, p) consists of graphs that
can be disconnected in this way, and may therefore be written (see Figure
20.1):

Tk, p—K) — Ik, K, p) = / K Tk K"K p—K) . (20.2.3)

(Like I'(k; k', p— k"), the kernel I(k, k', p) includes propagators for the lines

Tt The possibility m = 1 is excluded because the symmetry of this theory under ¢ — —¢
rules out graphs or subgraphs with odd numbers of external lines. The possibility
m = 0 is excluded becausc I is defined to arise only from connected graphs.
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Figure 20.1. Diagrammatic representation of the integral equation (20.2.3). The
cross-hatched disks marked I' represent the sum of all connected Feynman
diagrams with the indicated external lines, while the cross-hatched disks marked
I, which are divided by a vertical line, represent the sum of all connected diagrams
for which the lines on the left cannot be separated from those on the right by

cutting through any pair of external lines.

Figure 20.2. Tree and one-loop graphs for the kernel I(k, k', p) in the theory of
a scalar field with interaction %

with momenta k and p — k, but, to avoid double counting, not for the
lines with momenta k' and p — k') The Feynman diagrams for I'(k,k’,p)
to order g are shown in Figure 20.2.

To evaluate the behavior of the right-hand side of Eq. (20.2.3), let’s
first consider the asymptotic behavior of the kernel I'(k, k', p) when k — o0
with k¥’ and p fixed. This is dominated by the region of momentum
space in which all internal lines carry momenta of order k, which makes
a contribution of order k—*, because in any other region the subgraph
consisting of internal lines that carry momenta of order k would have
more than four external lines, and hence would make a contribution that
decreases faster than k=*. It follows that differentiating I(k,k’, p) with
respect to k' or p would reduce the asymptotic behavior of this kernel by
a factor of k1. Hence for k — oo with k” and p fixed, we have

I(k,K', p) = (k) (20.2.4)

where I.(k) is a function only of k, of order k™%,

Unfortunately, we cannot simply replace I'(k,k’,p) in Eq. (20.2.3) with
this asymptotic limit, because however large k may become, the integral
will receive a large contribution from values of k' of order k. To deal with
this complication, we¢ shall now employ a trick, based on mathematical
induction. In lowest order I'(k;k’,p — k) is given by a single vertex with
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two attached bare propagators

T ig
T'k;k',p— k') PO+ — R 1 1) (lowest order) ,

for which it is easy to verify an asymptotic behavior of form Eq. (20.2.1).
Let us therefore assume that Eq. (20.2.1) for n = 2 holds up to some given
order N in g — that is, that up to this order, the asymptotic behavior for
k — oo takes the form

L(k;k',p—k) = Ugp(k)Fga(K,p— k') + O(™), (20.2.5)

and try to verify this behavior to the next order. In order to ¢liminate the
contribution to the integral in Eq. (20.2.3) from values of k' of order k,
we rewrite Eq. (20.2.3) as

Lk;k',p—k) = 1(k,K’, p)
+ [ @ 106k, p) [P 3K p = k) = UK Fa(k', p — )
+F g2, p — K [ &K 10 K", U (k") (20.2.6)

Since I(k,k’,p) is at Jeast of first order, we may use Eq. (20.2.5) in the
right-hand side of Eq. (20.2.6). Hence in the second term on the right-
hand side, the part of the region of integration where k” is of order k
gives a contribution that vanishes like k& *'*> and may therefore be
neglected compared with the part where k” remains finite, which yields
the convergent integral

I,(k) f K" [T 5K, p—K) = Up(K")F oK, p— k)]

Further, since the dominant part of [ d*" I(k,k",p)U, (k") comes from
the region of integration where every internal line of the graphs for
I(k, k", p) carries a momentum of order k, differentiating this integral with
respect to p would lower its asymptotic behavior by a factor of order
k~', so asymptotically I(k,k’,p) may be replaced in this integral with
I(k, k') = I(k,k',0). Therefore for k — oo, Eq. (20.2.6) becomes

T(k;K.p—K') = Fa(k,p — k') f B Tk KU (k")

#a) {1+ [ a [0, p=K) = U )F etk p = K] | (2027

Let us therefore define Uy (k) and Fy(k',p— k') to order N4 11in g in
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terms of these functions in lower orders of perturbation theory, by
U(k) = Clec () + / 4K Tk, KU oK) (20.2.8)
Fpk,p—k)y=C""
X {1 + /d“k” {F(k";k",p — k') — U¢z(k”)F¢z(k’,p — k")] } , (20.2.9)

where C 1s a constant that can be chosen as we like. With these definitions,
Eq. (20.2.5) follows from Eq. (20.2.7).

It will be convenient to choose the constant C so that Fi(k", p —k') has
the value unity at some renormalization point k' = k(u) and p = p(u),
where k(u) and p(u) are standard four-momenta of order u. Then

C=1+ f AT k() plu) — k() — / K" Up(k”y . (20.2.10)

Using Eq. (20.2.5), we see that the divergences in the two integrals in
Eq. (20.2.10) cancel.
Eq. (20.2.9) may now be written

F¢z(k’,p — k) = Z¢2 {1 + fd"'k” T(k";k,p— k")} , (20.2.11)
where

—1
Zy = [1 + f d*k" F(k”;k(u),p(u)—k(u))] . (20.2.12)

We can think of Z,. as the renormalization constant for the composite

operator ¢?, defined in such a way that the operator Z¢” has the finite
two-particle matrix element F2(k, p—k), with the value unity for k = k(u)
and p = p(p).

It is not particularly convenient to calculate Ugy(k) or Fy(k,p — k)
by using Eqs. (20.2.8) and (20.2.11). Rather, it is simpler to calculate
I'(k;k',p— k'), and read off Uy (k) or Fyu(k,p—k) by comparison with
Eq. (20.2.5). By multiplying the function (12.2.26) with the product of
propagators for the lines with momenta X and p — k, we see that, to
one-loop order

—i —i

2K + mZ)] [(27:)4((;; K+ mz)] —i(2mye]
g 1 m? + 4x(1 — x)u?/3
X{ _@-/0 dx{ln( m? — sx(1 — x) )

2 _ 2
+M(W+%u—mWﬂ+h(m+%u wuﬂ+“},

m? —ix(1 — x) m? — ux(1 — x)

Lk, p—K) = |

(20.2.13)
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where s,t, and u are the Mandelstam variables
s=—p, t=—k—k), u=—(-k-k),
u is the renormalization scale and g the corresponding renormalized

coupling, defined as the Feynman amplitude at s = t = u = —4y?/3. This
has the asymptotic behavior

Tk;k,p—k)— '

(2m)*(k*)?
g I m? + 4x(1 — x)u*/3
X{l_“j“j}}_f /0 dx{ln( o S )
2 4 4x(1 —x)u?/3
+21n (mml’:zx : 1’2”;)/ ) o } . (202.12)

To order g, this agrees with Eq. (20.2.5) if we take

_ ig
Ugprlk) = (2 )4 (k2)2
g ! m* + 4x(1 — x)u?/3
><{l_lfm2 _/o dxln( m? + k2x(1 — x) )+ }’

(20.2.15)

and

g ! m? 4 dx(1 — x)u?/3
—k)=1— oL (202,
Fya(k,p—k) =1 39,3 /0 dx In ( 2+ ol — %) + (20.2.16)

We have here chosen the renormalization point k(u), p(u) for the operator
¢? to be related to that for the coupling constant g in such a way that
p(p)* = 442 /3, so that Fy(k,p — k) = 1 when p* = 4%/3.

Now consider the case where the number r of external lines with fixed
momenta is greater than two. In accordance with our earlier discussion, in
the limit k — o0, the leading graphs for I'(k; p; - - - ps) are those in which
the two external lines carrying momenta k and p — k can be disconnected
from the n external lines with fixed momenta by cutting through a pair of
internal lines:

(ks py -~ pa) = / U TG, p) (K 3 py -+ D) - (202.17)

As before, we cannot simply use the asymptotic limit of the kernel I (k, k', p)
for k — o0 on the right-hand side, because this integral receives important
contributions from &’ of order k. We deal with this complication by
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rewriting Eq. (20.2.17) in the form

C{k;p1-- - p) — /d4k’1(k,k’,p) [T(k’;pr“Pn)— quz(k’)Fqu(Pl"'Pn)]
+Pplpipo) [ R IK P UpK),  (20218)

where by mathematical induction, we suppose that up to some given order
N

L(k;p1-- - pn) = Uga(k)F y2(pr---Pn) (20.2.19)

with correction terms of order 1/k°. We can now use the limit (20.2.4)
together with Eq. (20.2.8) to rewrite Eq. (20.2.18) as

I'k;p1--pn) — Ioo(k)/d4k’ [F(k’;ps--'pn) — Ug(k')F 2 (py ---pn)}
+ Fp(pt - pu) [Uge(k) — ClLo(k)] .

This agrees with Eq. (20.2.19) to order N + 1, provided we take
CFy(pr---pn) = /d“k’ T(K;ps pn) - Ugalk)Fyalp1 -~ pa)|
or, using Eqgs. (20.2.10) and (20.2.12),
Folpt-pu) = Z / BT p1 ) - (20.2.20)

This just says that F(p; - - - pn) is the matrix element of the renormalized
operator Z #°, so that Eq. (20.2.1) corresponds to the operator product
formula (20.2.2). Note in particular that Ug(k) is the same coefficient
function whatever value n or the momenta p; - - - p, may take, as was to
be shown.

Strictly speaking, the (¢?)r operator is not the leading term in the
expansion of the product of two ¢s. There is also the operator unity, which
has lower dimensionality than (¢?)g, but was excluded from Eq. (20.2.2)
because (as indicated by the subscript C) we are excluding disconnected
graphs. As mentioned earlier, the graphs for I'(k) with n = 0 (and p* = 0)
are dominated for k — o0 by the region of integration where all internal
lines carry momenta of order k, and Uj(k) is the contribution of this
region.

Higher-dimensional operators and more general theories will be con-
sidered in an appendix to this chapter.
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20.3 Renormalization Group Equations for Coefficient Functions

As mentioned earlier, one of the aspects of the operator product expansion
that makes it so useful is that the momentum dependence of the coefficient
functions is governed by renormalization group equations. This is because
they arise from limiting values of sums of Feynman graphs (such as
I+(k) in Section 20.2) in which all relevant momenta are going to infinity
together, so that masses may be set equal to zero without introducing
singularities. Nevertheless the operator product coefficient functions do
not obey simple scaling laws, because of renormalization effects: the
functions are multiplied with scale-dependent renormalization constants,
and depend on scale-dependent renormalized couplings.

Consider the operator product expansion for a Greens function
Tser(k, k', p) in which the incoming momenta (collectively labelled k, with
sum p) of a set / of lines all go to infinity together, with the set /' of
remaining lines having fixed outgoing momenta (collectively labelled &’
with sum p):

Lok, K, p) = >~ Ugk)Fo o (K, p) . (20.3.1)
({I

The function Fp #(k’, p) is the matrix element of a renormalized operator
Or = > o Zow?, so its coefficient Uf;(k) in the product of fields corre-
sponding to the lines £ is proportional to Z; }n as well as to Zs ., the
direct product of all the renormalization matrix factors for the field (or
composite) operators in the set /. Hence

d / 0
ur-UG =3 ver UG = Ugvers + B®)5-Us » (2032)
# {f (ﬂl’ g
where
0 0
peZpp =3 yerZey p—Zew = voorZero (20.3.3)
Op ap o

{H

and for simplicity we assume a single renormalizable coupling g,,, defined
as the value of some Feynman amplitude at a renormalization point with
momenta of order p, with pudg,/dy = B(gu). In order to be able to
use dimensional analysis, we multiply all operators by powers of u in
such a way that they become dimensionless. This has the effect that the
components of the Z and y matrices are also dimensionless, with the
values 1n the limit of zero coupling given by

Yer = Opp N(L) Yoo ~> Oea N(O), (20.3.4)

where N(() is the dimensionality of the operator ¢, and N(¢) is the total
dimensionality of the set / of fields (the sum of s 4 1 for each field, where
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s = 0 for scalar and massless gauge fields, s = 1/2 for Dirac fields, etc.)
Also, dimensional analysis tells us that for k¥ = kn* with p* fixed, the
amplitude can depend on x only through the ratio x/pu, aside from a factor
k444 arising from the integrals used in defining the Fourier transform.
The solution of Eq. (20.3.2) is then of the form

«d ,
Uf(kn) = k44O 3" {M { exp ( / f ?(gu)) H UG (g, 1)

PARUY &

—1
X lM{ exp( / dfv(gu)) H : (20.3.5)

0.0
where M denotes the ‘y-ordered’ product, that is, each term in the expan-
sion of the exponentials rearranged so that the factors are in the order of
decreasing p from left to right.

This gives especially simple results where g, approaches a fixed point
g+ for u — oo. The contribution of large us to M{exp([™ y(g,)du/p)} is
then a matrix factor k78 that because of the p-ordering appears on the
left. Thus Eq. (20.3.5) becomes

Uglien) = 1193 [:c?(g‘)]mtg o [778)]
&0 ’

. (20.3.6)
where € is ¢ither a constant or a sum of powers of In k, depending on the
rate at which g, approaches g..

Asymptotically free theories like quantum chromodynamics are a special
case of particular physical interest. Here the fixed point is at g, = 0, and,
according to Eq. (20.3.4), near this fixed point the y matrices go as

¥(&)re = N()sr + g%ty V(@owr = N(O)Soo + 8 coor . (203.7)

Also, if we write the renormalization group equation for the coupling in
the form

M_gﬂ = __g,u . (203.8)
then
K 2
/ @gﬁ — _8n Ing2 + constant .

T b
Using this in Eq. (20.3.5) yields the asymptotic behavior

—8n2p s

U{Q(Kn) — K4—4n(t‘°)+N(f)—N((U) Z |:(g£) 8x c/b] %92;; |:(g£) 8n r'/b] |
&6 £ 0.0

(20.3.9)

where fé{@ is a constant matrix, equal to 02("’:,(0, n) times constant factors

that are not calculable in perturbation theory because they come from the
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parts of the integrals in Eq. (20.3.5) where g}u is not small. For x — oo,
the behavior of the coupling constant is g2 — 872/blnk, so Eq. (20.3.9)
may also be written

UL (k) — 1 ONA-N©) $ [(m ) bl b} %, [(m <) 8“28/1 ,
o0 6L 0.6

(20.3.10)

where 5’3(9, 1s another constant matrix. The condition for Egs. (20.3.9) and

(20.3.10) to be valid is that g2/8n? < 1, but it is not necessary for Inx

to be so large that only one eigenvector of the ¢ matrix contributes to

the asymptotic behavior. Eq. (20.3.10) will be used to study deep inelastic
scattering in Section 20.6.

20.4 Symmetry Properties of Coefficient Functions

The usefulness of the operator product expansion is greatly enhanced by
the fact that the coefficient functions exhibit the full symmetry of the und-
erlying theory, even where part or all of that symmetry is spontaneously
broken.# To prove this, we consider the operator product expansion for
a product of renormalized operators (;(x) that transform linearly under
some symmetry with conserved current J#(x), in the sense that

0%, 1), Oily, )] = —8*(x ~ y) 2 0y, 1), (204.1)

where ¢;; 1s a constant matrix. We can write the operator product ex-
pansion as the statement that, as xj,---x, approach x together (with
X1 — X, "X, — x all having fixed ratios)

BIT{On(x1) O (x)llay = 3 U ™(xq — X, -+ %o — X){BIOKX) )

i

(204.2)

Now suppose that the symmetry with current J# is spontaneously broken,
with the corresponding Goldstone boson n satisfying

Fp

(2n)72,/2p0

Then, as we saw in Section 19.2, the matrix element of the operator
product between states with an additional low energy Goldstone boson is

1
(2m)3/%4/2p0F

(VAC|J#(O)|m) =

(20.4.3)

BIT{0:y(x1) "+~ Oy (xn)}Imx) =

/ d4x— BIT{O(x1) - O (xn) THOM) , (20.4.)
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because only the Goldstone pole term survives in the integral on the
right-hand side of Eq. (20.4.4). Using Eq. (20.4.1) and the conservation of
the current, this can be put in the form

1

BITAO ) Oulnllina) = =

X DD g BIT{O(x1)  O3(x%) O (xa)}e) . (204.5)

r=1 jr

Now apply the operator product expansion to both sides of this formula.
In the limit as xj - - - x; all approach x together, we find

1
(2n)¥/2, 2P0 F

Z Ufl"'i,,(xl -, Xy — x)(ﬁl@f(x)lna) = —

X S OD Yt Ul M — %, xy = x)(BIOKX)a) . (20.4.6)

r=1 j. i
But as a special case of Eq. (20.4.5), we have

1
(BlO(x)|mat) = _(271:)3/2 oF Xj: ij{BlOH(X) ) - (20.4.7)

Since all this holds for arbitrary states {(#| and |«), the coefficients of
{Bl0j(x)la) on both sides of Eq. (20.4.6) must be equal, so

n
0=—> ;U ™"x1—=% " xa=X)+D>_ 3 1, U7 " (xy—x, - xy—X) .
i r=1

o (20.4.8)
This can be restated as the condition that U;' ™(x; — x,-- x, — x) is
invariant under the symmetry generated by ¢, with the action of this
symmetry on the lower index contragredient to its action on the upper
indices, in the sense that the matrix ¢ is replaced with —tT. This is the
same relation that would be expected if the symmetry gencrated by J#
were not spontancously broken.

20.5 Spectral Function Sum Rules

Spectral function sum rules are constraints on the spectral functions of
various currents.” We will start here with a set of currents J# that are
arbitrary, except for being Lorentz four-vectors, and then later consider
more speclal examples. To define their spectral functions, we use Lorentz
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invariance to write
Z 5%(p — pn)(VACIJH0) NY(VACITH(0)IN)" = (2m)*0(p")
x |0 = 0" 197 )pg—p?) + PP P (—pP)] (205.1)

in analogy with Eqs. (19.2.19) and (19.2.20) or Eq. (10.7.4). Taking the
Fourier transform and using the completeness of the states |N), this can
be written

L) T O)vac = [ di?
x [ %) — (BF07) + G0N /1) 48| Aty . (2052)

where A, (x;u?) is the function defined in Eq. (5.2.7);

Ap(x;p?) = a2 2)elPx (20.5.3)

Assuming the currents to have been chosen as Hermitian Opel‘dtol‘b it is
immediately apparent from Eq. (20.5.1) that p(l)(u ) and ch (# ) are posi-
tive Hermitian matrices. Also, taking x* to be Spacehke (for which A (x)
1s even) and using translatlon invariance and causality in Eq. (20.5.2), we
see that pm(,u ) and pmﬁ (,u ) are also symimetric.

Now, for x — 0 with x? > 0, the function A (x; %) goes as

Ay(x ) > 1x2+8n [1 (”“‘r)—é]w(xz), (205.4)

where y is the Euler constant. The first few terms in the vacuum expecta-
tion value of the expansion of J¥(x) J3(0) are thus

1 Hav  4XuXy

(xz)z X2 ] /dﬂ PS};) (1) + P )/#)
4,-5 JC2 /dﬂngﬂ?’) (p ),u + ( 2)2/ (Pg}f)(ﬂz)# +ch )(J“ ))

+0(Inx?). (20.5.5)

<Jg:(x)J,§(0)>VAc -

Hence if some linear combination > ap Cap S (x) Jg(0 ))vac of the two-
point functions has a singularity as x — 0 which can be shown to be
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weaker than of order 1/x* we have

> e [ (o902 + gudii) = 0 (2056)
while 1f its singularlty is also weaker than 1/x2, then
S cup [ di? oty = 0 (205.7)
of
and
anﬁ / a? pQutnd = 0. (20.5.8)

Eqgs. (20.5.6), (20.5.7), and (20.5.8) are known respectively as the first,
second, and third spectral function sum rules.

Let us see how this works out in the case of greatest interest, where the
J#(x) are conserved currents in a theory like quantum chromodynamics.
The conservation of current tells us that (20.5.1) vanishes when contracted
with p,, so pggg)( p?) must be proportional to 5(p?), and therefore au-
tomatlcally satlsﬁes the third spectral function sum rule (20.5.8) for any
cop. With’ p,x ( —p?) oc 8(—p?), it can receive contributions only from the
terms |B,) in the sum over states in (20.5.1) consisting of a single massless
particle B, of zero spin, which in practice means a Goldstone boson. For
such one-particle states, Lorentz invariance gives

iFua Py
(VAC|JE(0)|By) = - (20.5.9)
(2m)3/2\/2p
Using the relation d(p® — [p|)/2p° = 6(p°)5(—p?), we see that
PN = 3(—p") D FaaFy, - (20.5.10)
il

In contrast, paﬁ( p?) is non-vanishing only for —p? > 0.

To be more specific, consider a renormalizable asymptotlcally free gauge
theory with a number N of massless (or nearly massless) spin 1/2 fermions
belonging to the same representation of the gauge group. Quantum
chromodynamics fits this description, with N = 3 if we neglect the masses
of the u, d, and s quarks, and with N = 2 if only the « and d are taken
to be massless. As we have seen in Chapter 19, such a theory has an
SU(N) x SU(N) global symmetry” under which the left- and right-handed

* There is also a U(1) symmetry which is vectorial, in the sense that it acts the same
way on the left- and right-handed parts of the light fermion fields. This is just the
conscrvation of light quark number, and will not concern us here. The axial U(1}
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parts of the light fermion fields transform under the representations (N, 1)
and (1, N), respectively, where ‘N’ and ‘1’ denote the defining and identity
representations of SU(N), respectively. The currents of the left- and
right-handed SU(N) symmetries are

T3 = =+ y5)aw(x),  Jha(X) = —pEH(L — y5)hawp(x) ,

(20.5.11)
where the 4, form a complete set of Hermitian traceless matrices acting on
the ‘flavor’ index that distinguishes the N light quarks, as in Eq. (19.7.2) for
N = 3. These currents have dimensionality (in powers of mass) +3, so the
coeflicient of an operator ¢ of dimensionality d(() in the expansion (20.3.6)
of the product of two currents is expected (apart from logarithms) to have
a singularity of order x+4(®) ag the separation x of their arguments
goes to zero. Thus, if the expansion of a linear combination of products
of currents contains the operator unity, then the corresponding linear
combination of spectral functions goes as x ¢, and therefore in general
satisfies neither the first nor the second spectral function sum rule; if
the lowest-dimensional operator in the vacuum expectation value of this
expansion 1s a fermion bilinear with zero or one derivatives, then the
corresponding linear combination of spectral functions goes as x> or x2,
and therefore satisfies the first spectral function sum rule but generally
not the second; and if the lowest-dimensional operator in the vacuum
expectation value of this expansion is a fermion bilinear with two or
more derivatives or a fermion quadrilinear then the corresponding linear
combination of spectral functions is less singular than x~2, and therefore
satisfies both the first and second spectral function sum rules.

In order to tell which operators appear in the expansion of the product
of two currents, we need to classify the SU(N) x SU(N) representations
contained in the product, and to tell whether these operators have non-
vanishing vacuum expectation values, we have to ask which of them are
invariant under the subgroup of SU(N) x SU(N) that is not spontaneously
broken. To answer these questions, we note that the currents J{ (x) and
Ji.(x) transform under SU(N) x SU(N) respectively according to the
(A,1) and (1, 4) representations of SU(N) x SU(N), where 4 and 1 are
the adjoint and identity representations of SU(N).

Also, we shall assume that the subgroup of SU(N) x SU(N) that is
not spontaneously broken is the vectorial SU(N)y, whose currents are
JLAx) + Jg.(x), as is the case in quantum chromodynamics and (as we
saw in Section 19.9) a wide range of other theories. We also assume
that parity conservation is not spontaneously broken. These unbroken

symmetry of the Lagrangian, which acts differently on the lefi- and right-handed parts
of the light fermion fields, is broken by the quantum effects discussed in Section 23.5.
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symmetries have the consequence that

Pa (1) = Pttt = 8 | P02 + 0 02)] (20.5.12)
and
1
P (i) = Pl (D) = bab [P0 — P (1)) (20.5.13)

where 5apr)(p2) and S0 A}(,u,z) are the spectral functions defined by
(20.5.2) for the currents

Tpo = —ipy*dap, T, = —ipyFshay (20.5.14)
with generators 4, and 4,ys, respectively. Also
Frap = —Fpap = 0apF, (20.5.15)

where Eq. (20.5.9) here reads

(VAC|J4,(0)|Bp) =

(20.5.16)

iFﬁab p’;;
so that (20.5.10) reads

(2m)3/%/ 29}
0

Pra ) = PRa (1) = _pLa rp(1) = —PRa ) (%) = F28(i*)dap
(20.5.17)

It will be convenient to consider separately the products of currents of
like and unlike chirality.

Like Chirality: The products J{ (x)J},(0) and Jg,(x)J},(0) transform re-
spectively as the (4 x4, 1) and (1, A x A) representations of SU(N)xSU(N),
where 4 and 1 are the adjoint and identity representations, respectively.
For any group, A4 x A contains the identity representation, so the unit op-
erator appears in the expansions of these products, with equal coefficients
proportional to d,,. Hence only the traceless parts of the operator product
can satisfy spectral function sum rules. But as we have seen, the spectral
functions have no traceless part, so the like-chirality spectral functions
cannot satisfy any sum rules.

Unlike Chirality: The products J4,(x)J},(0) and Jg (x)J],(0) both
transform as the (4, A) representation of SU(N) x SU(N). The unit
operator (and operators like F,, F:') are of course SU(N) x SU(N)
singlets, and therefore cannot appear in the expansion of these products.
Non-derivative fermion bilinears like iy transform according to the (N, N)
and (N, N) representations of SU(N) x SU(N), so they also cannot appear
in the expansions of the products of currents with unlike chirality. The only
gauge- and Lorentz-invariant fermion bilinears with a single derivative
involve the gauge-covariant derivative operator y*D, acting on p, which
the field equations tell us vanishes. Thus these spectral functions satisfy
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both the first and second spectral function sum rules, which here read

[ [P0 = oP0)] /4 = P (205.18)

and
a2 (o) — i) =o (205.19)

In the original work on spectral function sum rules,’ the SU(2) x SU(2)
spectral functlons were assumed to be sharply peaked at values of u that
for PV e ) could be assumed to be m, = 770 MeV, and for p D(2) was
taken to be at an unknown mass m4. That is,

PPty ~gou? —mly, PP = gle(r —md).
Egs. (20.5.18) and (20.5.19) then read**
8 _ 8 _p
2 2 F’E
mp mA
and
g8, =g -

Eliminating the unknown g4, this gives a formula

1
11
2
4

Originally in 1967 this result was used together with a formula® gp

2F; 2m2 (whose justification was unclear but which agreed with experimen-
tal measurements of the rate of the decay p — ¢™ + ¢7) to derive the
result

my= \/Emp.

The status of a possible ¢; resonance with the right quantum numbers to
couple to the axial-vector current (that is, t* with T = [ and C(a}) = +1)
at around a mass ﬁmp remained unclear for many years, but a resonance
with these quantum numbers is now reasonably well established at a mass
1230 MeV = 1.6 m,. It seems preferable today to take the ratio m,/m, as
an input, using either the value /2 suggested by certain models’ or the
experimental value 1.6, and use it to predict g,,.

** Taking the SU(2) generators 4, to be the Pauli matrices, as in Eq. (19.7.2), we have
F=F, =184 MeV.
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Since 1967 not only g, but the whole vector spectral function pg)(uz)
of the SU(3) x SU(3) current in quantum chromodynamics has been cal-
culated with precision for a wide range of energies from the measured
cross section for the process e™ 4+ ¢~ — y — hadrons, using the fact
that the electromagnetic current is a lmear combination of SU(3) cur-
rents. The axial-vector spectral function p; )(u ) of the SU(3) x SU(3)
currents can in principle be measured in the process ¥ + ¢ —hadrons,
since the charged components of the currents (20.5.14) are the same as
the hadron currents to which the leptons are coupled. However, although
antineutrino—electron scattering has been studied experimentally, the low
rate of these reactions precludes the use of colliding beams, so that the
electron target is essentially at rest. In order to reach typical hadronic
energies of, say, 3 GeV in the center-of-mass frame, it would be necessary
to have neutrino energies of (3 GeV)?/2m, ~ 10 TeV in the laboratory
frame. Intense beams of neutrinos with energies this high will not be avail-
able for many years, if ever. Fortunately, it has become possible to study
the spectral functions in the process 1 — v + hadrons, but the hadron
energies here are strictly bounded by m; = 1.7 GeV. It is also possible
to use effectlve chiral Lagrangians to calculate the spectral functlons at
small u and to use quantum chromodynamics to calculate p pﬂ)
large 1%, where it is quite small. A careful 1993 analysis by Donoghue and
Golowwh8 of all these inputs shows that the spectral function integrals
are indeed dominated by the p and a; resonances, and gives results that
are consistent with the first and second spectral function sum rules.

20.6 Deep Inelastic Scattering

The renormalization group coupled with the operator product expansion
found one of its most important applications in the analysis of deep
inelastic lepton—nucleon scattering. We will first review the early phen-
omenological models for these reactions, and then see how the operator
product expansion justifies these models and provides corrections to them.

Consider a process in which an electron of four-momentum k collides
with a nucleon N of four-momentum p, yielding a electron of four-
momentum k" and a general unobserved hadron state H, over which we
sum. To calculate the spin-averaged inclusive cross section, we shall need
to know the quantity

(mn /pn)W" (q.p) = 2 Zé(pﬂ p— q)(HIJ*O)IN)(H|T'(O)N)",

(20.6.1)
where J# is the electromagnetic current (divided here by a factor ¢) and
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g = k —k’ 1s the momentum transfer from the electrons to the hadrons.
Lorentz invariance tells us that W#¥(q, p) must be a linear combination of
prpY, p'q’, g*p, q*q’, and »*, with coeflicients that can only depend on
the two independent scalar functions of g and p: ¢> and v = —q - p/mn.
Current conservation requires that g, W# = g, W* =0, so W must take
the form®

M
W (g.p) = (qqq — " ) Wi(v, )

I P4 _r4 2
— (pt — 7 v
+ N( 2 =S )megd) . (2062)
Also, Eq. (20.6.1) shows that W#'* = W', so W, and W, are real, and
WH is a positive matrix, so Wi and W> are positive. The differential cross
section in the nucleon rest frame is

dzcr dcr 5 .
dQdv (E)Mm (W2 +2Wi tan 0/2)) . (20.6.3)

where dQ = sin@dfd¢ is the solid angle into which the electron is
scattered, and (do/dQ)moTT is the differential cross section for relativistic
elastic scattering by a point spinless particle

do e* cos*(0/2)
— = , 20.6.4
(dQ)MOTT 4E? sin(9/2) ( )
with E, = —k-p/my the incident electron energy in the nucleon rest frame.
One might expect that for fixed values of —p%; = —gq2 + 2myv + m3,,

the differential cross section should fall off very rapidly as ¢°> — oo,
because it should be proportional to the square of the form-factor for
the transition from the nucleon to whatever particles or resonance have
mass near —p%. It was therefore somewhat of a surprise that, two
years after the 1966 opening of the Stanford Linear Accelerator Center,
a SLAC-MIT collaboration headed by Friedman, Kendall, and Taylor’
discovered that in fact v W(g2, v) is roughly constant in g2 for fixed values
of w = 2myv/q* > 1. (To be specific, Wa(q?,v) for the proton was fitted
to the curve vWs(g?, v) ~ 0.35 — 0.004w for E, = 10, 13.5, and 16 GeV,
and @ = 6° and 10°. These experiments were insensitive to W, because
tan?(10°/2) = 7.6 x 1073.) Note that in this limit —p¥ — (@ — 1)g? — o,
which is why this is called ‘deep-inelastic’ scattering,.

At about the same time Bjorken'® was using current algebra to argue
that W>(g% v) and Wi(g% v) satisfy scaling laws: for ¢*> and v going to

" The same formalism can be used for other deep-inelastic lepton scattering processes,
such as v, + p — u~ + H, except that since parity is not conserved in these processes
there is an additional term in W*'(q, p) proportional to &*#p,g,. For simplicity, we
will limit ourselves here to deep-inelastic electron scattering,
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infinity together,
yWa(v,q%) - Fw),  Wi(v,q*) — Fi(), (20.6.5)

where again @ = 2myv/q%. A more intuitive explanation was given a little
later by Feynman.!! He supposed that in deep-inelastic scattering on a
highly relativistic nucleon of momentum p, the nucleon behaves as if it
consists of ‘partons’ of various types labelled i, each with a probability
Fi(x)dx of having momentum between xp and (x + dx)p. Then for each i,

/ dx Fix)=1. (20.6.6)

The condition that the nucleon has total momentum p yields the additional
sum rule

1
f Y Fix)xdx=1. (20.6.7)
0
For elastic scattering of an electron (with m, neglected) from a parton of
four-momentum xp, we have x’m%, = —(q + xp)* = —¢* = 2vmyx + x*m3,

so v = q°/2myx. The inelastic cross section in this model is thus™*

do d’c 5 [l q° 0 q*
={— 2 [ dx {14 —5— tan (—) S{v—
dQdv (dQ)MOTT;Ql/O * '{_2:r1r112\,x2 a2 YT dmpyx
(20.6.8)
where Q; is the charge of the jth type of parton in units of e, (The

tan?(6/2) term here is appropriate for a ‘Dirac’ parton, with magnetic
moment eQ;/2myx.) Comparing this with Eq. (20.6.3) gives

2, _ 1 2 [ q q’ wy 2
Wl(v,q ) = :_2 Z Qi /0 dx L;:I(X)z—m-'i";i(s vV — 2me = ng(v,q )
i N

(20.6.10)

** This may be derived from the formulas (8.7.7) and (8.7.38) for Compton scattering
on a spin 1/2 particle of four-momentum p and mass m in a general Lorentz frame.
For this purpose, it is useful to note that in the gauge used to derive these formulas,
for which the initial and final real polarization vectors ¢, and e; satisfy €2 = ¢'2 =1,
e p=¢-p=e-k=2¢ k' =0, the polarization sum gives

dep o Lry2 2ri 0 L
E(e'ef)z=2 m (k- k') +2m(k k')

” Tk T kP )
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This agrees with the Bjorken scaling rules (20.6.5), with
_ 1 2 (1

and
Fi(w) = (0/2mpn)Fa(w} . (20.6.12)

Eq. (20.6.12) was originally derived by Callan and Gross.!? It agrees with
experiment within about 10-15%.

On the assumption that the proton and neutron respectively consist of
two u# and one d or one u and two d quarks, plus any number of neutral
partons, Egs. (20.6.11) and (20.6.6) yield the sum rule for W»

oo do _ 1 p
/1 Fz(a))a —;QE—{ 23 n (20.6.13)

The integral receives a large contribution from large w, where F, is difficult
to measure. If we also assume that the total momentum of the nucleon is
equally shared among three quarks (and no neutral partons) then in place
of Eq. (20.6.7) we have the stronger relation [ % (x)xdx = 1/3 for each
quark, which with Eq. (20.6.11) yields

o do [ 1/3 p
'/1‘ FZ(CU)EU"E‘_ EZQIZ_{ 2/9 i

This integral 1s easier to measure, and turns out to disagree badly with
the sum rule, showing that a large fraction of the nucleon momentum is
carried by the neutral partons.

None of the above phenomenology depends on any specific field theory.
It was the operator product expansion that finally provided a way of ap-
plying an underlying field theory to deep-inelastic scattering. In particular,
the operator product expansion made it clear that one needed an asymp-
totically free field theory to explain the scaling assumptions (20.6.5) (and
to calculate the corrections to scaling). This asymptotically free theory
was ultimately provided by quantum chromodynamics.

To apply the operator product expansion to deep-inelastic scattering,
first Fourier transform Eq. (20.6.1). Using translation invariance and the
completeness of the hadron states |H), this gives

1
2(2ny

(/P WH (g, p) = S [z e THNIT @ MOIN) L (206.14)
G
The asymptotic behavior of W/ (q, p) as ¢ — oo 18 therefore related to the
singularity of the operator product at x — 0.

Feynman diagram calculations of the coefficient functions in operator
product expansions refer directly not to the expansion for matrix elements
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like those appearing in Eq. (20.6.14) for W#*, but rather to matrix elements
of the two-point Greens function

1 "
(mN/p?v)T#"(%p) = 22m) %/d‘lz e 2(N|T {JV(Z), J“(O)} |INY} .

(20.6.15)
We can express this in terms of the structure functions for T#¥, defined
by the analog to Eq. (20.6.2):

n v
T"(g,p) = —(qq—‘i — ") T1(v,q%)

+% (=23 (7 = Bl ) Tang) . (0616)

The connection between the T,(v,q?) and W,(v,q%) (with r = 1,2) is
provided!? by the dispersion relations' for fixed g2

1 1
To(v,4%) = 3 Wrl=v.0) + 5Wilv.4")

1 0 (— P2y 12
+__. dv.f W( V,q ) Wl"(vsq )
2ni S vi—v

(20.6.17)
with the denominator in the integrand interpreted as a principal value

function. The functions W,(v,q?) vanish except for v > g2/2my, so the
dispersion relations may be rewritten

1 1
T,,(v,qz) = ~2-Wr(—v,q2) + “2“Wr("oqz)

L= i
—>- f &' Wiv' g )( + ) . (20.6.18)
q

2 2my vVi+y v -y

We can categorize the operators that contribute to the operator product
expansion for T, according to the irreducible representation of the Lorentz
group to which they belong. The only Lorentz-covariant functions of
a single four-vector p# with p> = —m% fixed are proportional to the
symmetric tensors p*! ---p#, so the only operators that can contribute
to the spin-averaged nucleon expectation value are symmetric traceless
tensors (%) ", the subscript i distinguishing any different operators with
this tensor structure. (For reasons that will become clear, we are using the
same label i to distinguish operators that we used in the parton model! to

t For g* = 0, thcse may be derived exactly as in the derivation of the dispersion relation
(10.8.16) for forward photon scattering. The derivation for fixed g> # 0 is more
difficult.
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label types of partons.) These operators have matrix elements of the form
5 Z (N|OM 5Ny = (my /pN)[ coophs — traces} (Os),  (20.6.19)

where the ((y;) are constant coefficients. Such an operator makes a
contribution to T#(q,p) proportional to s factors of the four-vector p,
and hence makes a contribution to T(v, g?) and T»(v,g?) proportional to
v and vS72, respectively. (We are dropping terms involving p?, because
such terms will be suppressed by factors of m% /g% or m,/p-q.) If we
ignore logarithmic corrections, then in an asymptotically free theory the
g* dependence of the coefficients is of the forms (g?)=*+6—4s)—9/2 and
(7)) =5+2)/2 respectively, where d(s,7) is the dimensionality of
the operator Oy."" Using v o ¢’w, we see that the contributions of an
operator (; to the structure functions are asymptotically of the forms

Tis < vs(qz)(z—d(&i)—S)/z o ws(q2)(2—f(5-5))/2 (20.6.20)
and
Vot oc v (G AO0=9/2 o =) (222 (20.6.21)
where (s, i) is the ‘twist’ of the operator (y;, defined as'*
(s, i) = d(s,i) — s . (20.6.22)

We see that the dominant terms in T; and v T for ¢> — oo with fixed w
are contributed by operators of minimum twist. Also, Eq. (20.6.18) shows
there are no terms in T,(v,¢?) of odd order in v, so the only operators ¢
that can contribute here are those with even s.

The symmetric traceless tensors of rank s with minimum dimensionality
are the operators

(Os) o, = G2 /DPry0 D - Divwg (20.6.23)
and

(Os0) gy = (7 2/2s) F, Fyou D5y - D F) (20.6.24)

pa}
where f labels quark flavors; D, is the gauge-covariant derivative; and
the brackets indicate a sum over permutations and subtraction of trace
terms for the enclosed spacetime indices. (The symbol < indicates half
the difference of the derivative acting to the right and left. We take
this difference of derivatives, because their sum would vanish in any

" The —4 in the exponents arises from the integral over z in Eq. (20.6.14), and the +6 in
these exponents is the dimensionality of the two electric current operators. The terms
—s/2 and —(s — 2)/2 serve lo compensate for the powers of ¢* already in v' and v,
respectively.
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matrix between states of equal four-momenta.) These operators have
dimensionality 3 + (s — 1) = 4 4+ (s — 2) = 2+ 5, s0 they all have twist
7 = 2. Thus an infinite number of operators contribute for g°> — oo, all
of which give contributions to Ty and vT> that depend on w but only
logarithmically on ¢%. Asymptotic freedom thus confirms Bjorken scaling,
but only up to logarithmic corrections. Keeping only operators of twist
two, we see that (as anticipated in our notation) for each s there is indeed
one operator for each parton type, with i running over quark types f
(lumping quarks and antiquarks together) and also a value i = 0 for the
gluon.

Now let us consider the logarithmic corrections. The asymptotic behav-
ior of the coeflicient functions in an asymptotically free theory is governed
by Eq. (20.3.9). As discussed in Section 10.4, when we ignore electro-
magnetic radiative corrections no renormalization factors are needed for
the electromagnetic current, because these currents are conserved. Thus
the matrix cs» in Eq. (20.3.9) vanishes. The matrix ¢¢ ¢v has no elements
connecting operators of different Lorentz transformation type, so that in

the notation we are now using, cg gy = dgcip(s). Thus Eq. (20.3.9) takes
the form
. 8me(s)/b
Ti(v,q%) —» Y oy [(gﬁ/g%) ] {0y), (20.6.25)
sif t
— 8nlc(s)/b
vTa(v,q%) — Y w 1 l(gé/gz%) ] O, (20.6.26)
sif i

where o/ and 4% are constants appearing in the coefficient function for
the operator ¢’y in the operator product expansion of the product of two
electric currents, #° is a particular value of g2 at which we choose to define
the coeflicient functions, b is the constant in the one-loop renormalization
group equation (20.3.8) for the strong coupling constant g,, and (0) is
the constant coeflicient in the matrix elements (20.6.19).

The operator product expansion coefficients are independent of the
particular process in question and unaffected by quark trapping, so we
can calculate the coefficients »7; and % by considering a fictitious simpler
process, the scattering of an electron by a free quark of flavor f. The
renormalized operators ¢; may conveniently be defined so that the one-
quark matrix elements of the operators (20.6.23) and (20.6.24) are given
by the tree approximation:

——r S ;
(f O_f|@sf|fn’ ") = (_1')1 (ﬁ”y{“l u)pﬂz e p,ub}(;ff,(gff” . (20.6.27)
s!

(f',¢'|0xlf", 6"y =0. (20.6.28)
Averaging Eq. (20.6.27) over ¢ = ¢” and comparing the result with
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(20.6.19) yields

(@sf)f"?;—f plphE - phs = (_Zi)ISiTr {(_i gp"{; mf) ik pia .pm}} ,
so that (for even s)
(Osg)gr = O5p1 /My (20.6.29)
and
(O} =0. (20.6.30)

With this definition of the operators @y, at a renormalization momen-
tum scale #2 which is large enough for the operator product expansion
functions to be calculated using the tree approximation, these functions
can be derived from the tree-approximation formulas for the electron-
quark scattering cross section. Retracing the parton-model derivations of
Eqgs. (20.6.9) and (20.6.10), we see that W, for an electron scattering on a
quark of flavor f is given in the tree approximation by?

vWas = (my/mp)Q;6(w — 1), (20.6.31)
Wiy = Q30(w — 1)/2my . (20.6.32)
Inserting these results in the dispersion relations (20.6.18) yields, for o = 1,
Qf My 1
T 0.6.33
YT 2mimg my w?—1"’ 2 )
207 w?
—=f_ L
vhy =5 (20.6.34)

results that may also be obtained directly from the Feynman graphs for
electron—quark scattering. Comparing the coeflicients of «* in Eqs. (20.6.33)
and (20.6.34) with those in Eqs. (20.6.25) and (20.6.26) at the renormal-

ization point g°> = ¢% and using Egs. (20.6.29) and (20.6.30), we find
that
dy="0, g =TNG (206.35)
2r m

with the gluon charge Qg of course taken as zero. To repeat, even though
these values have been derived for electron—quark scattering, .o7,; and %
are factors in the operator product expansion of two electric currents, and
therefore do not depend on the state in which we calculate the expectation

* The factor (my/my;) is inserted in Eq (20.6.31) because v is defined as —q - p/my
instead of —q- p/my, while it is W,/m3, rather than W, /mf that appears in Eq. (20.6.2).
Eq. (20.6.32} then follows from Eq. (20.6.10). The quantity @ may be wrltten in a
mass-independent way, as @ = —2g - p/g*.
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value of this operator product. So we can use Eq. (20.6.35) in Egs. (20.6.25)
and (20.6.26), and find

v g ) R ZOJSQ:, l(gq g;) 8n C‘(S)/b] .j (@sj) , (20636)
sij !
vTa(v,q°) — —Z w1 Qf l(gg/gaz")gnzcwb] A{Og) . (20.6.37)
sif i

Now let us at last return to the structure functions W,(v,q%). We note
that the coefficient of @® = (2myv/q*) in Ty(v, g°) is given by Eq. (20.6.18)
as

ﬁisfm d"I‘Wr(vq)— fdww_qu qq :
2ni \ 2my 42/ 2my 2my’

Comparing with Egs. (20.6.36) and (20.6.37), we find

/ do o 175w (2 2 ) 2ZQ; |( g5/ gf)SﬂZC(S)/b]i_<@s}) ,

J
(20.6.38)

2 8nle(s)/b
/ dow o~ sz(;{f ,q)*MNE Q?[(gﬁ/gﬁ) ]__(@Sj)-
ij

ij
(20.6.39)
The W, satisfying these equations may evidently be expressed in a manner
similar to the equations (20.6.9) and (20.6.10) of the parton model

Wi (sz ) — ZQI i(1/w,q%) (20.6.40)

VW) (‘“q ,q) 2’"”2@1 Filjw,g),  (20641)

2mN

where .#; is a parton distribution function, now defined by the moment
equations

/ dx x* L Fi(x,q°) = 22 l(gq g,,;)g?r C(svb] _((Osj) : (20.6.42)

ij

In particular, we see that asymptotic freedom implies not only a corrected
version of Bjorken scaling, but also the Callan-Gross relation (20.6. 12)
between W, and W.

There is an elegant reformulation of the moment equations (20.6.42)
due to Altarelli and Parisi!® that has become widely used in studies
of deep-inelastic scattering. Note that Eqs. (20.6.42) together with the
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renormalization group equation (20.3.8) imply the differential equations

i
q° ig /dxx Fi( q2)=—g326u(5)[] dx x* ' Fi(x,q%) .
i

(20.6.43)
These equations, together with the ‘initial’ condition at the renormalization
)
point /

1
/ dx x* L F(x, 1) = HOg) , (20.6.44)
0

have a unique solution, so they can be used instead of the moment
equations. Now, Eq. (20.6.43) is satisfied by the solution of the differential
equation for #;:

d g Ldy X
2 T, 2y = 249 E —pP. =%, 2 20.6.45
q dqul(xsq ) 47[2 } /x y 1} (y) J(yaq ] L] ( ]

where the matrix function P;;(z) is subject to the conditions

1
/0 257LP(z) dz = —4nei(s) (20.6.46)

(The factor 4n? is conventional.)

The matrix c;;(s) was calculated in quantum chromodynamics by Georgi
and Politzer!® and Gross and Wilczek.!” They assumed that there are N
flavors of quarks that are sufficiently light to be treated as massless, while
quarks of all other flavors are treated as very heavy and integrated out,
so that they can be ignored except for their effect on the strong coupling
constant. Their results in the basis provided by the operators (20.6.23)
and (20.6.24) are

1 1 1 1 1] N
COO(S)=ﬁ{C1 [E*s(s—l) _(S+1)(S+2)+§t] +§"C2} !

(20.6.47)
() = %CZ L i 2 e 1:)2(5 n 2)] ’ (20.645)
cof(s) = ~8—71—E§C3 :Sil + S(Sz_ 1)] : (20.6.49)
crp(s) = #Q _1 - (b T X; ] 8ip (20.6.50)

where 0 and f denote the operators (20.6.24) and (20.6.23), respectively;
the constants C; and C; are defined by Eqs. (17.5.33) and (17.5.34) (with
only a single quark flavor included in the trace in Eq. (17.5.34)); N is the
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number of quark flavors; and C; is defined (using the notation of Section
17.4) by
taty = C38° 1. (20.6.51)

In the realistic case of an SU(3) gauge group with quarks in its defining
representation 3, these numbers are

Ci=3, C=1, =2 (20.6.52)

=

These rather complicated results become simpler when expressed 1n
term of the Altarelli-Parisi functions. It is straightforward to check that
Eq. (20.6.46) is satisfied if

Py =b4p [g ((llf)’i) +25(1 -ﬂx)] , (20.6.53)
P =x"—x+ % , (20.6.54)
Pys = g E o4 x] , (206.55)
Pgo = 6 [1—;3 +x(1-—x]+atxm +%5(1 —x)} _ %T(S(l—x),
(20.6.56)

where in an integral over x up to x = 1, 1/(1 — x); is defined by

%) _ f—f()

(l—x)+ | —x

(20.6.57)

For each s there is an obvious (N — 1)-fold degenerate eigenvalue of the
matrix ¢(s), equal to the coefficient of d;4 in Eq. (20.6.50):

. 1 2 51
(s, djoint) = £ Cs 1—S(s+1)+422? \ (20.6.58)
1=

with e¢igenoperators given by all independent linear combinations of the
operators (20.6.23) with coeficients a; satisfying >_¢ay = 0, which belong
to the adjoint representation of the unbroken global SU(N) symmetry
group of quantum chromodynamics with N quark flavors. In addition for
each s there are two eigenoperators belonging to the singlet representation
of SU(N), given by linear combinations of the operator (20.6.24) and
the sum over f of the operators (20.6.23). These eigenoperators and the
corresponding eigenvalues can be found by diagonalizing the 2 X 2 matrix:

cools)  cof(s)N } _

cro(s) (s, adjoint) (20.6.59)

C(S)qinglet =
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For s = 2 this matrix takes the form

NC2/67£2 NC3/67£2

0(2)singlet = C2/37E2 C3/37£2 (20.6.60)

This has one zero eigenvalue, corresponding to the linear combination
of (0 and dof (05‘; that is equal to the energy-momentum tensor, which
like J# is not renormalized. The other eigenvalue of the matrix (20.6.36)
is given by its trace, NC;/6n* + C3/3n3. Now, the minimum of the
eigenvalues of ¢;;(s) for a given s must be at least as large as the minimum
of the eigenvalues of ¢;;(s') for any s’ < s, because otherwise for sufficiently
large ¢ the integral (20.6.42) would eventually become larger for s than for
s', in contradiction with the fact that this integral is a strictly decreasing
function of s. Because the minimum eigenvalue for s = 2 is zero, we
can conclude that all of the other eigenvalues for s > 2 are positive. In
fact, they are all positive-definite, because there are no unrenormalized
operators for s > 2. Hence strict Bjorken scaling occurs only in the
extreme limit where gé — 0, where only the contribution of the energy-
momentum tensor survives. The prediction of violations of strict Bjorken
scaling have been confirmed experimentally by exhaustive studies of deep-
inelastic electron—nucleon and muon—nucleon scattering.

20.7 Renormalons”

Since the beginning of quantum field theory theorists have wondered
whether the perturbation series for physical matrix elements converges,
and if it does not, then what can be done about it? Very early in the
modern period Dyson!® observed that the number of diagrams of nth
order typically grows as n!, which suggested that the perturbation series
has zero radius of convergence.

There is a well-known technique known as a Borel transformation!
for improving the convergence of a power series whose nth order term
grows as n!, either to make the series converge, or at least to improve the
behavior of the series so that it can be used as an asymptotic ¢xpansion
for a larger range of coupling constants. For a given series

Fig)=) fng" (20.7.1)

o

we consider the related series

B(z)= Y fuz"/n!. (20.7.2)

" This section lies somewhat out of the book’s main line of development, and may be
omitted in a first reading.
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If f,, grows no faster than n! then B(z) will generally have at least a finite
radius of convergence. The question is, can we recover the original series
(20.7.1) from the resummed series (20.7.2)7 Using the familiar formula

o0
/ exp(—z/g) 2" dz = n1 ™"
0

we see that, at least formally,

aF(g) = /ﬂ " exp(—z/2) B(z)dz . (20.7.3)

Singularities of B(z) anywhere in the complex plane limit the radius of
convergence of the series (20.7.2), but this is not an insuperable problem
if’ these singularitics arc off the positive real axis. To calculate F(g) using
Eq. (20.7.3) we need B(z) only for real positive values of z less than or
of order g, which can be obtained from the power series (20.7.1) if the
singularities of B(z) in the complex plane are all at distances from the
origin much greater than g. Even if a few poles z;, z;, etc. have moduli
of order g or less, we can calculate B(z) out to values of z of order g by
using the power series for (z — z1)(z — z3) - - - B(z), but for this purpose we
have to know where the poles are.

Singularities of B(z) on the positive real axis are much worse, for they
invalidate Eq. (20.7.3). The contour in this integral may be distorted to
avoid singularities on the positive real axis, but then we have an ambiguity:
do we distort the contour above or below the singulanty?

This section will show that some of the singularities of the Borel
transform B(z) are associated with solutions of the classical field equations
known as instantons, while other singularities, known as renormalons, are
associated with terms 1n the operator product expansion. In quantum
chromodynamics it is the renormalons that obstruct the use of the Borel
transformation to sum the perturbation series.

It was Lipatov® who in 1976 showed that some of the singularities
of the Borel transform B(z) are associated with the existence of classical
solutions of the field equations, Consider a function F(g) defined by a
Euclidean path integral:

F(g) = [ [d¢] exp (I [, g]) - (20.7.4)

(The use of Euclidean path integration is discussed in Appendix A of
Chapter 23.) The coefficients in the power series (20.7.1) are given by

/[dct'] fdgg Lexp (1[4, 8])
- / [deh) f dg exp (Ilpgl — (n+ Dlng), (2075
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where § denotes the integral counterclockwise over a closed curve in the
complex g plane surrounding the point g = 0. For very large n, it is
reasonable to suppose that the integral is dominated by the point ¢, g,
where the argument of the exponential in the last line of Eq. (20.7.5) is
stationary in both ¢ and g:

ol [, 2]
—2 =0, 20.7.6
560 Lo (2010
ol [¢n, 8] _n+t 1 . (20.7.7)
08 gy, &n '

For instance, suppose that I [¢,g] is the action for a massless scalar field

Ig,g] = —% / Bipdicp d*x — % / ot d*x (20.7.8)

the sum running over the Euclidean coordinate directions 1, 2, 3, 4. Then
the field equation (20.7.6) reads

Upn = bgnchi - (20.7.9)
We will see that g, is negative, so the solution has
Pn(x) = (—gn) " 21(x) , (20.7.10)
with y(x) the g-independent solution of the equation
Oy =— iy . (20.7.11)

The condition (20.7.7) tells us that

1 s n+1
_ﬁ/d“xqﬁn— o

or in terms of the rescaled field (20.7.10)

1
S [T S 7.
& 24(n—|—1)/ * X (20.7.12)

At this stationary point the action (20.7.8) becomes

1 n n
Hongn = =5 [dbmtignd'x =52 [giatx = &2 [ giats
—nl1. (20.7.13)
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Evaluating Eq. (20.7.5) at the stationary point then gives for n — o0**

fn = gn_n_l exp (I((,f)m gn)) ={(n+ 1)n+l (—;Z / x4 d4x)

—n—1

1 -~H
anl | —— [ y*d 7.
n( 24/x dx) | (20.7.14)
The leading singularity in B(z) is therefore a pole at z = z;, where
_ 1 4 34
z] = ﬂ/x d*x . (20.7.15)

Because this is negative, it does not prevent us from carrying out the
integration in Eq. (20.7.3). To calculate the pole position (20.7.15), we
note that the field equation (20.7.11) has the solution

4y/3a (20.7.16)

X=r2+a2»

where r = (x;x;)/2, and a is an arbitrary parameter. This solution of the
field equation is an elementary example of the ‘instanton’ solutions to be
discussed in Section 23.5. (These are called instantons because instead of
being concentrated along a worldline they are concentrated near a point
in spacetime — in this case, the origin.) Fortunately the pole position
does not depend on a:
B s 4 [% r? dr? B 5
z) = —961°q -/0 Ty a lén~ . (20.7.17)
We see that the perturbation series for B(z) can be used in Eq. (20.7.3) if
g < 16n2. If g/16m? is of the order or greater than unity, we may still be
able to calculate B(z) from the perturbation series for (z + 1672)B(z).
We will see in Section 23.5 that there are instanton solutions in non-
Abelian gauge theories like quantum chromodynamics, but these also
yield relatively harmless singularities of B(z) on the negative real axis.
The real problem in quantum chromodynamics is with a different class
of singularities, known as remormalons.?! These were first discovered
through the realization?? that single 2n-th order diagrams, like that shown
in Figure 20.3, can make individual contributions that grow like n!, and
hence according to Eq. (20.7.2) may lead to additional singularities in B(z).
In this particular case the singularity is known as an infrared renormalon,

" Here the symbol ‘=’ should be interprected to mean ‘asymptotically equal up to factors
of constants and powers of n.” These factors arise from the factor /12zn in Stirling’s
formula for {n + 1)!, from the ratio of (n + 1}! and n!, and from the integral over
the fluctnations of g and ¢{x) around thc stationary point. Since we are not going
to calculate the factors from the last source, there is no point in keeping track of the
factors from the first two sources either.
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M

Figure 20.3. One of a class of N-loop Feynman diagrams that grow as N!. Solid
lines are fermions; wavy lines are gauge bosons.

as it arises from virtual momenta that are much smaller than those used to
define the running quantum chromodynamics coupling g,). Fortunately,
1t 1s possible to use the operator product expansion to locate the infrared
renormalons, without having to look at individual Feynman diagrams.

For a simple but important example, consider the sum H;‘E(q) of all
vacuum diagrams in quantum chromodynamics with insertions of four-
vector currents J§ and Ji carrying a four-momentum ¢ into and out of
the diagram. (IT*"(g) gives the hadronic contribution to the electroweak
vacuum polarization, and its imaginary part yields the cross section for
eT—e” and electron—antineutrino annihilation into hadrons) As we saw
in Section 20.5, this receives contributions that go as ¢ (the Fourier
transform of x~®) from the operator 1, contributions that go as ¢~ from
the operator FiVF,,,, contributions that go as g—* from four-fermion
operators, and so on. (For instance, the contribution of the operator
F}" Fyy arises from diagrams like Figure 20.3, with a momentum much
less than g flowing through the chain of bubbles.) Dimensional analysis
tells us that these momentum-dependent factors must be accompanied
with vacuum matrix elements proportional to A°, A% A®, etc. But if
we calculate Feynman diagrams using a running coupling defined at a
scale u > A, where the coupling constants are small, then according to
Eq. (18.7.7)

12n
2 2 7
= 20.7.1
A° = pexp ((33 2y )ast )) , ( 8)

where n; is the number of quark flavors with mass much less than p.
Operators of dimension d > 0 would make a contribution in the operator
product expansion with the coupling-constant dependence

d 6nd
A® oc exp ((33 — 2”f)f¥s(ﬂ)) . (20.7.19)
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In quantum chromodynamics, perturbation theory yields a series in powers
of a; = g?/4n rather than g, so we would write Eqs. (20.7.1) and (20.7.3)
in terms of o:

Fos) =) fnoly , (20.7.20)

o Fo) = /:C exp(—z /o) B(z)dz . (20.7.21)

The presence of terms in I1#" with coupling-constant dependence (20.7.19)
indicates that B(z) must have singularities (not necessarily poles) at

S 6nd
YT (3320

These are on the positive real axis, and make the integral (20.7.21) am-
biguous. Thus Borel summation cannot be used to deal with low-energy
effects in quantum chromodynamics.

The fact that diagrams with small virtual momenta impede the use
of perturbation theory is of course nothing new. As we saw in Section
20.2, the whole point of the operator product expansion is to separate the
parts of Feynman diagrams where every line carries a large momentum,
which in asymptotically free theories can be calculated using perturbation
theory, from the contribution of the parts of Feynman diagrams through
which small momenta flow, which cannot be calculated perturbatively.

(20.7.22)

Appendix Momentum Flow: The General Case

In this appendix we shall consider the asymptotic behavior of an amplitude
in a general renormalizable quantum ficld theory when the momenta of
any set of two or more external lines become large, taking into account
operators containing arbitrary numbers of field factors and derivatives,
with dimensionality up to some limit N. To deal with this problem we
shall have to introduce a more compact notation than that of Sections
20.1 or 20.2. A letter /, ¢/, etc. will denote a set of external lines i
of specified types entering or leaving a Feynman diagram or part of a
Feynman diagram. A letter k, k', etc. will denote the set of four-momenta
k; of such lines, subject to the condition that their sum has some fixed
value p. The amplitude I's»(k,k’, p) is the sum of all graphs with a set / of
incoming lines carrying momenta k and a set /' of outgoing lines carrying
momenta k’, including the final bare propagators for the set # but not /.
As shown by the power-counting theorem?® quoted in Section 12.1, the
part of the region of integration where the momenta of order k flow only
through a subgraph with external lines # and #” makes a contribution to
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I'yp(k, k', p) of order k4<¢"), where d(¢,¢") is the dimensionality (in powers
of mass or momentum) of this subgraph:

di¢, /) =4— > (1+s5)—> 2—2s). (20.A.1)
el =4
(The last term in Eq. (20.A.1) arises from the propagators for the lines in
the set 7.) 1t will be convenient to rewrite Eq. (20.A.1) as

d(£,4") = 4—an(l) — N(¢') + N(£), (20.A.2)

where n(7) 1s the number of lines in the set ¢, and N(¢) is the total
dimensionality of the fields for these lines:

nf)=> 1, N =) (si+1). (20.A.3)
it ict
Here s; is the ‘spin’ of a line of type i, in the sense used in Section 12.3:
the dimensionality of the field of type i is 1 + s;, and the bare propagator
of such a field goes as k—2+2%, (For scalars and gauge bosons, s; = 0; for
spin 1/2, 5, =1/2.).

By taking account of the asymptotic behavior associated with these
subgraphs, we wish to show that as k — oo (all components going to
infinity together, in generic directions), with k" and p fixed, the asymptotic
behavior of I'yx.(k,k’,p) in each order of perturbation theory is of the
form

()
Lotk K',p) = 3 Uglk) Fo (', p) + o (K=HOENON) - 20A4)
@

where the sum runs over operators (¢ with dimensionality N(() < N; the
function U%(k) is of order k*+N)—4)=N®) . 4nd o(k4) denotes terms that
vanish faster (by at least one factor 1/k) than k4.

To isolate the contribution of operators of dimensionality < N, we shall
define an ‘N-irreducible’ amplitude I (k,k’,p) as the sum of all graphs
for I"sp(k,k’, p) in which the lines in the set ¢ cannot be disconnected from
the lines in the set #/ by cutting through any set #” of internal lines with
N(#") < N. Since the difference I — IV consists of graphs that can be
disconnected in this way, it may be written as

(N)

Copk,k',p) — Ik, K p) = > / dk" Ik, k", p) Tprp(K”, k', p) , (20.A.5)
{!r

where ny denotes the sum over sets ¢ of particle lines with N(#”) < N,
and [ dk” is the integral over the components of the four-momenta in the
set /7, subject to the constraint that the sum of these momenta is p.

The asymptotic behavior of the kernel | f,,,(k,k”, p) is much simpler
than that of I's g (k, k", p). For k — oo with k” and p fixed it is dominated
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by the part of the region of integration where every internal line carries a
momentum of order k, which gives an asymptotic behavior k%“¢"), because
the terms where only some subregion carries such large momenta would
have to be connected to the rest of the graph by a bridge /" of lines with
N({") > N = N(¢"), and this would be smaller as k — <o by at least
a factor kN )=N—1 Thus differentjating [ ff,,(k, k", p) with respect to any
component of k” or p reduces its asymptotic behavior to order k4¢/")~1,
But differentiating d times lowers the asymptotic behavior to k#//")—4
only if d £ N — N(¢") + 1, because for higher derivatives we get a larger
contribution from the region of integration where the subgraph carrying
momenta of order k is connected to the rest of the graph by a bridge of
lines #” with total dimensionality greater than N, with the derivatives all
acting on lines carrying momenta of order k” or p. Therefore in order to
take into account the contribution of operators containing derivatives of
flelds, we may write the asymptotic behavior of IV as

INGK Y= S I (K) Py (K, p)+o(kd(f"m)_N+N(m), (20.A.6)

vid, NN

where Py, (k" p) are a complete set of homogencous polynomials of order
dy in the n(¢”) momenta k” and p, and [ }\}”v(k) ar¢ functions only of &, of
order k44" as k — oo,

We cannot immediately use Eq. (20.A.6) in Eq. (20.A.5), because the
integral over k” receives important contributions from the region where
some of the k" are of order k. To deal with this, we use mathematical
induction: we assume that Eq. (20.A.4) holds up to some given order in
perturbation theory, and use it on the right-hand side of Eq. (20.A.5) to
calculate the asymptotic behavior of T to the next order of perturbation
theory. We rewrite Eq. (20.A.5) in the form

Tye(k,k',p) = Iy(k, k', p)

{N) (N)
+2 / dk" 1. (k. k", p) [rmk”, K.p) = S UL (k") For(K.p)
f’ﬂ' (O
(N} ;
+ Z Fopk',p) Z / dk” 1.k, k", p)Us (k") . (20.A.7)
0 ¢ N(£"Y<N

According to Eq. (20.A.4), the quantity in square brackets in the second
term on the right-hand side of Eq. (20.A.7) vanishes for k" — o faster
than (k”)*—4¢ NN 5o the product of this factor with a polynomial
Puy(k") of order v < N — N(£”) vanishes faster than (k")**#"“") and
therefore has a finite integral over the 4(n(¢”)—1) independent components
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of k”.* Hence we may us¢ Eq. (20.A.6) in this term, and find

Lotk p)— Y I (k) Pru(K,p)
v:idy+ N{£'}<N
(N}
£ % It [ P p)
" vid, +N(")EN
(N) 11
X |\Tpnp k"K', p) =Y UG (k") For (K, p)
&

(N)
+ZF(Mf(k Y f di’ 12k, K", p) UL (K) , (20.A8)
{.ﬂ
the correction being smaller than the terms shown by a factor 1/k. (Of
course, the first term on the right-hand side of Eq. (20.A.8) is present only
if N(#') < N)

Now, for each value of / and v with d, + N(/} < N, there is an op-
erator ( with field factors corresponding to the lines in ¢ and with 4,
derivatives, such that in zeroth-order perturbation theory the vertex func-
tion, with incoming momentum p carried by the operator ¢ and outgoing
momenta k carried by external lines #, is the polynomial Py (k, p). Then
the corresponding complete vertex function for a renormalized operator
Or =30 Zpel is

Fos(k,p) = Zzw,m*{ﬁzgf,f Py, (k, p) + / Ak’ Py,,yp (k' pY Tt 0(K' K, P)} ;
@f

(20.A.9)
where /¢ and vy label the types of fields and spacetime derivatives in the
operator (/. We see then that Eq. (20.A.4) is satisfied, with

Udk) = Zlm lzm, — / dk” U’J’(k”) P@,(k”)]

f dk" Ik, k) UGk (20.A.10)
fﬂ'

" This overlooks the possibility that even though power-counting indicates the conver-
gence of the integral in the sccond term on the right-hand side of Eq. (20.A.7) over the
region where all ¥” go to infinity together, for n{¢”) > 3 subintegrations may diverge.
For this reason the arguments given in this appendix do not constitute a proof of the
operator product expansion except for the simple case treated in Section 20.2, where
we consider the momenta of just two external lines to go to infinity, and we look for

the terms in the power series expansion associated with operators that are quadratic
in the fields.
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in which we now use the abbreviations
Liotk) =1,0,5k),  Polk) = Pryvelk) . (20.A.11)

(The p dependence of Iz, is dropped for the same reason as in Section
20.2: whether or not k” is comparable with k, p is negligible here compared
with k.) We will define the normalization constant Zy , so that at a
renormalization point k(u), p{u) the function Fy s(k{u), p(11)) has the same
value 0z, Po(k(p), p(p)) that it would have in the absence of interactions:

812 Polk(w), p(i)) = Fr(k(u), p(u) = 3 Zowr
m!

x {5@,,; Prvg K(R), B0) + [ A Pry K, ) Tt (), p(u))} .
(20.A.12)

For I' = 0 this has a solution Z = 1 which is unique (because the poly-
nomials for a given set of lines are supposed to be linearly independent),
s0 by continuity Eq. (20.A.12) will have a unique solution for coupling
constants in some finite range. Eq. (20.A.10) therefore provides a recur-
sive definition of the coefficient functions U(k) appearing in the general
operator product expansion (20.A.4).

Problems

1. Consider a theory of a fermion field y interacting with a scalar field
¢ with interactions of the form Py and ¢*. List the operators that
appear in the operator product expansion of {(x)y(0) with coefficient
functions that (judging from perturbation theory) are singular and
non-vanishing for x — 0. Describe how you would calculate these
coefficient functions to one-loop order.

2. Consider quantum chromodynamics with N massless quarks, and
define the spectral functions of the scalar and pseudoscalar quark
bilinears by

Y {VAC|p(0)Ap(0) VAC) (VAC|{p(0)Agy(0)| VAC)®
N
= (21)70(p")pyp(—p7)

Y {VAC|p(0)y5443p(0) VAC){(VAC|p(0)ysA53(0)| VAC)*
N

= (2m) 00" pEp(—p?)
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where A, are a complete set of traceless Hermitian N x N matrices,
normalized so that Tr(4,dg) = 25,5. What spectral function sum
rules are satisfied by linear combinations of piy(s®) and pyg(s?)?

. Derive Eq. (20.6.8) in the parton model from the formulas (8.7.7)

and (8.7.38) for Compton scattering.

List the gauge-invariant symmetric traceless tensors of twist four in
quantum chromodynamics.

. In the massless scalar field theory with interaction —g*/24 (with

g > 0), where in the complex plane would you expect the function
(20.7.3) to have renormalon singularities?

References

. K. Wilson, Phys. Rev. 179, 1499 (1969)

W. Zimmerman, in Lectures on Elementary Particles and Quantum
Field Theory — 1970 Brandeis University Summer Institute in Theo-
retical Physics, eds. S. Deser, H. Pendleton, and M. Grisaru, (MIT
Press, Cambridge, 1970).

S. Weinberg, Phys. Rev. 118, 838 (1960).

C. Bernard, A. Duncan, J. LoSecco, and S. Weinberg, Phys. Rev.
D12, 792 (1975).

S. Weinberg, Phys. Rev. Lett. 18, 507 (1967). For the general case,
se¢ Ref. 4.

K. Kawarabayashi and M. Suzuki, Phys. Rev. Lett. 16, 255 (1966});
Riazuddin and Fayyazuddin, Phys. Rev. 147, 1071 (1966).

M. Ademollo, G. Veneziano, and S. Weinberg, Phys. Rev. Lett. 22,
83 (1969).

J. F. Donoghue and E. Golowich, Phys. Rev. D49, 1513 (1994).

This result was reported at the 1968 ‘Rochester’ conference at Vienna,
and published in E. D. Bloom et al., Phys. Rev. Lett. 23, 930 (1969);
M. Breidenbach et al., Phys. Rev. Lett. 23, 935 (1969).

J. D. Bjorken, Phys. Rev. 179, 1547 (1969).

R. P. Feynman, Phys. Rev. Lett. 23, 1415 (1969); Photon-Hadron
Interactions (Benjamin, New York, 1972).



294

12

13
14

15.
16.
17.
18.
19.

20.

21.

22,

20 Operator Product Expansions

C. G. Callan and D. J. Gross, Phys. Rev. Lett. 22, 156 (1969). The
reader should be warned that the symbol ® as used by Callan and
Gross is 2/ in the notation used here.

D. Gross and S. Treiman, Phys. Rev. D4, 1059 (1971).

N. Christ, B. Hasslacher, and A. H. Mueller, Phys. Rev., D6, 3543
(1972). ’

G. Altarelli and G. Parisi, Nucl. Phys. B126, 298 (1972).
H. Georgi and H. D. Politzer, Phys. Rev. D9, 416 (1974).
D. J. Gross and F. Wilczek, Phys. Rev. D9, 980 (1974).
F. I. Dyson, Phys. Rev. 85, 631 (1952).

See, e.g., G. N. Hardy, Divergent Series (Oxford University Press,
Oxford, 1949).

L. N. Lipatov, Leningrad Nuclear Physics Institute report, 1976
(unpublished); Proceedings of the X VIII International Conference on
High Energy Physics at Thilisi, 1976.

G. 't Hooft, in The Whys of Subnuclear Physics — Proceedings of
the 1977 Erice Summer School, ed. A. Zichichi (Plenum, New York,
1978). For a collection of articles on renormalons and high orders
of perturbation theory, see Large Order Behavior of Perturbation
Theory, eds. J. C. Le Guillon and J. Zinn-Justin (North-Holland,
Amsterdam, 1990). For further work on infrared renormalons, see
A. H. Mueller, Phys. Lett. B 308, 355 (1993); Nucl. Phys. B250, 327
(1995); A. Duncan and S. Pernice, Phys. Rev. D 51, 1956 (1995), and
articles quoted therein.

B. Lautrup, Phys. Lett. 76B, 109 (1977).



21

Spontaneously Broken
Gauge Symmetries

The 1961 theorem! that broken symmetry implies massless spin zero
Goldstone bosons was seen at first as a scrious obstacle to the search
for broken symmetries in nature. A few years later several authors noted
an exception to this theorem, already mentioned in Section 19.2: the
Goldstone bosons are absent where the broken symmetry is local, rather
than global.? Instead, these degrees of freedom show up as the helicity zero
states of the vector particles associated with the broken local symmetries,
which thereby acquire a mass. This phenomenon, now generally known
as the Higgs mechanism, was not at first applied in any sort of realistic
theory, perhaps because by the mid-1960s it had become clear that the pion
is a Goldstone boson of a spontaneously broken approximate symmetry,
and attention therefore shifted away from the effort to avoid Goldstone
bosons. But soon after, spontaneously broken local symmetries turned
out to provide the natural framework for understandmg the weak and
electromagnetic interactions of the elementary particles.’

21.1 Unitarity Gauge

We saw in Chapter 19 that in a theory with a global symmetry group G that
is spontaneously broken to a subgroup H, there is a massless ‘Goldstone’
boson for every independent broken symmetry, in the sense that the
mass matrix M2, of real spinless fields ¢,(x) has a zero eigenvalue with
eigenvector 3, (tx}umtm for each independent broken symmetry generator
to of G. (We are here considering the case where these Goldstone bosons
are included among the elementary spinless particles represented by scalar
or pseudoscalar fields ¢, appearing in the Lagrangian; the more general
case will be taken up in Section 21.4.) We also saw that we could rotate
away these Goldstone modes, by subjecting the fields to a G transformation

yH{x)
=3 l(nx (21.1.1)

295
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such that the new fields are orthogonal to the Goldstone directions”

0= Z &n(x)(toc)nmvm > (21.1.2)

where v, is the vacuum expectation value, v, = (¢,(0)}vac. After rotating
the fields so that they satisfy Eq. (21.1.2), the Goldstone boson fields
then reemerged as the spacetime-dependent parameters in y(x). The point
of this procedure was that since the Lagrangian was invariant under the
transformation (21.1.1) with constant y(x), all dependence on y(x) dropped
out except where y(x) is acted on by derivatives.

On the other hand, if the Lagrangian is invariant not only under
constant G transformations but also under G transformations that depend
on spacetime position, then the transformation (21.1.1) is a true symmetry
of the theory, and all dependence on y(x) drops out of the Lagrangian, so
that we can simply replace ¢,(x) everywhere with ¢,(x). This is a choice
of gauge, fixed by imposing the condition (21.1.2) on ¢(x) rather than by
imposing conditions on the gauge fields themselves. (For instance, in the
electrodynamics of a charged scalar field ¢ = ¢ + i¢hr, we can choose a
gauge like Lorentz or Coulomb gauge by imposing conditions d,4* = 0
or V'A = 0, but we can also choose a gauge by imposing a condition on ¢,
as for instance that ¢ be real, or in other words by rotating the two-vector
{Re¢,Im¢} into the 1-direction.) The gauge defined by Eq. (21.1.2) is
called unitarity gauge*® because in this gauge it will be obvious that the
theory does not have any degrees of freedom with negative probability,
like timelike gauge bosons. More generally, the unitarity gauge makes
manifest the menu of physical particles of the theory.

Eq. (21.1.2) shows that there are no Goldstone boson fields in unitarity
gauge. Since the theory is gange-invariant this means that there are no
physical Goldstone bosons, whatever gauge we choose. What about the
vector bosons? If the ¢, are elementary canonically normalized scalar
fields, the Lagrangian will contain a term

2
1 — . A
n n,x

where t* runs over all the generators of the gange group G. (From now
on we shall drop tildes, it being understood henceforth in this section that
we are already in unitarity gauge.) We are assuming that the symmetry G
is broken by the vacuum expectation value v, of ¢,, so in order to see the

" Here we are working with a real reducibie or irreducibie representation of the symmetry
algebra, for which the matrices it, are real. The transition to a complex representation
is described below.
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nature of the particle spectrum, we define a shifted field ¢’:
Gn=vn+ ¢, . (21.1.4)

(It is sometimes convenient to take v, in Eqgs. (21.1.2) and (21.1.4) as the
vacuum expectation value in the tree approximation. In order to generate
a useful perturbation theory it is only necessary that v, should agree with
the true vacuum expectation value in lowest order.) Expanding Eq. (21.1.3)
to second order in ¢’ and A, we have:

2
1 :
£ $QUAD = ) (ﬁﬂqﬁ’; — 1 Z o vam) . (21.1.5)
n mu
Using Eq. (21.1.2), we see that the ¢'-A cross term vanishes, yielding
1 1
Loquap = =3 D_ 0u$n0", — 5 3 1apAuiAl (21.1.6)
n af
where
Juiﬁ = — Z o tﬁ, Umby . (21.1.7)

nmd

Combining this with the quadratic terms in the Yang-Mills Lagrangian
—% F,., F&, we see that the vector particles have a mass matrix uiﬁ. In our
notation the generators t%, are proportional to gauge coupling constants,
so Eq. (21.1.7) yields vector boson masses that are also proportional to
these coupling constants.

Let’s take a look at some of the algebraic properties of uzg. Since t3,
is imaginary and antisymmetric (and hence Hermitian) the matrix Juiﬁ is
real, symmetric, and positive. Also, if a certain real linear combination of
generators >, Cqty 1S unbroken, then

> Caltadnmvm =0, (21.1.8)
2 )4
in which case Eq. (21.1.7) shows that, as noted by Kibble,
3 usgep =0. (21.1.9)
8

That is, we still have a massless gauge boson for every unbroken gauge
symmetry. The converse is also true; from Eq. (21.1.7) we see that for
arbitrary real constants c,

2
> Hagtacp = (Z Ca* i:ﬁmum) >0, (21.1.10)
aff n a,m

and this can vanish only if ¢, satisfies Eq. (21.1.8).
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In particular, if there is just one unbroken symmetry 3, ¢,t,, then the
general gauge field can be written

Al =cyA* 4 -, (21.1.11)
where -+~ denotes a linear combination of the gauge fields of definite non-

zero mass, and ¢, is the coefficient of t, in the single unbroken generator
q,

q=)  Cala, (21.1.12)

so that the field A# will appear with zero coefficient in the mass term
~% Y up togALA,p. In order for the coefficient of —3(d,4, — 8,4,,)* in the
kinetic gauge Lagrangian —3 3" ,(0uAay — 0y Axy)* t0 have the canonical
value 1, the ¢, must also be normalized

Yoag=1. (21.1.13)

X

Note that g is the charge to which A# is coupled, in the sense that
Y taAl=qAt+ - (21.1.14)
4

where “ -’ again denotes terms involving massive gauge fields. We shall
use these general results in studying the electroweak theory in Section
21.3.

These results have been derived here for scalar fields that form a real
representation of the gauge group, but they can be straightforwardly
converted to a form appropriate for complex representations. We saw in
Section 19.6 that a complex scalar field y(x) that transforms according to
a representation of the gauge group with Hermitian generators 7, may
be written as a set of real fields

dix) = ( ﬁ;’ig; ) , (2L.1.15)

which furnish a real representation of the gauge group with gencrators

o _ [ —ImT* —ReT*
= ReT* —ImT*

Inserting Eqgs. (21.1.15) and (21.1.16} in Eq. (21.1.7) gives the vector boson
mass matrix (21.1.7) as

“gﬁ = Re ((X>€AC= T, Ty (X>VAC) = 3 ((x)TVAC= {Ts, Tg HX)VAC) .
(21.1.17)

(21.1.16)

Now let’s take a closer look at the vector field propagator. Including
the quadratic term in the Yang-Mills Lagrangian, the part of the total
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Lagrangian that is quadratic in 4 is

— 12 (@dn — A — LY iy Al
o

«p
= 1Y A" Doy pa(0)Ag" + total derivatives,  (21.1.18)
2
where
Doy pal0) = dap [mzf—"] - 5\;51] — oMy - (21.1.19)

Suppose for simplicity that all gauge symmetries are broken, so that uiﬁ
has no zero eigenvalues. According to the general rules described in
Section 9.4, the gauge-field propagator in momentum space is

Ay (k) = ~(@ Yo paik) = [0 + 52 10z + 1~ 2hky)| , o (21120)
Because of the k, k; term, the propagator has an asymptotic behavior
A(k) ~ O(k®), which does not allow us to use the usual power-counting
arguments to prove renormalizability. Fortunately, as we shall see in the
next section, there is another gange in which renormalizability is obvious,
at the price of obscuring the particle content of the theory.

¥ %k %

It is important to note that although Goldstone bosons suddenly reap-
pear in the physical spectrum in the limit of zero gauge couplings, physical
matrix ¢lements are perfectly continuous in this limit. This is because
in unitarity gauge the gauge bosons do not entirely decouple for zero
gauge couplings. Consider the matrix element for a scattering process
A+ B — C+ D, where A and C belong to some representation of the
gauge algebra, and B and D belong to some different representation
of the gauge algebra. The S-matrix element for this process receives a
contribution from vector boson exchange

Scp.p = i2n)*0*(pa + p8 — pc — pp)(CIINLIA) Ay gk} (DIINE|BY
£ (21.1.21)

where k = py — pc = pp — pp, and Jy) is the current to which the
gauge bosons are coupled, with the subscript N to remind us that in
this gauge we omit the Goldstone boson pole term in this current. This
current is proportional to gauge coupling constants, so the only terms in
Eq. (21.1.21) that survive in the limit of zero gauge couplings are the ones
involving the matrix y~2, which becomes singular in this limit. Hence for
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zero gauge couplings, the S-matrix element is
1

454
0 3

(D1In3|B) -

(21.1.22)
The gauge coupling constants in the curtents are cancelled by the gauge
coupling constants in the matrix u,

Now let us compare this result with the contribution of Goldstone
boson exchange. For vanishing gauge couplings there is a set of Goldstone
bosons B, associated with generator t, (assuming for simplicity that all
gauge symmetries are spontaneously broken) with the kinematic term
in the Lagrangian given by — 10,0.0¢g >, ZunZpn, wWhere Z,, is the
component of the Goldstone boson B, in the spinless field ¢,, defined
by Eq. (19.2.39). In order that the Goldstone boson fields be canonically
normalized, we must therefore have

> ZonZgn = bag - (21.1.23)
R

Scp.ep — i21)*0%(pa + P — Pc — Po)kvkalp)ug (ClIN3IA)

According to Eq. (19.2.49), the Goldstone boson B, couples to the currents
Jnfy with a coupling constant Fa‘ﬁl, where F,5 is the coupling of the
Goldstone boson associated with generator t, to the current Jyj defined
by Eq. (19.2.38). Thus the exchange of Goldstone bosons would give a
scattering matrix element

. . N
Scppp = i(2m)*6%(pa + ps — pc — Pp)kvkFyy F) (ClIng1A) p<D|JNé|B> :
(21.1.24)
But Egs. (19.2.40), (21.1.7), and (21.1.23) give the vector boson mass matrix
as

g = FuZynFpsZsn = FoyFpy (21.1.25)
n

so in the limit of vanishing gauge boson coupling, the gauge boson
exchange matrix element (21.1.22) is the same as the Goldstone boson
exchange matrix element (21.1.24). This argument can be reversed; the
requirement of continuity at zero gauge coupling can be used to derive
a formula for the gauge boson masses even in the case where all other
couplings are strong.

21.2 Renormalizable &-Gauges

In 1971 ’t Hooft* showed that path integrals in spontaneously broken
gauge theories can be calculated in a gauge in which the vector boson
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propagators vanish for momentum k — o0 as k=2, so that these theories
satisfy the power-counting test for renormalizability described in Section
12.2. Here we shall describe a larger class of renormalizable gauges,
parameterized by an arbitrary constant &, that was introduced a little
later by Fujikawa, Lee, and Sanda.’

In general gauges the kinematic term (21.1.3) in the Lagrangian for the
scalar fields of a theory contains a cross term

i Z a,u(b:r timAaVm
nmo
where v, 1s the vacuum expectation value of ¢, and ¢} is the shifted
field defined by Eq. (21.1.4). In unitarity gauge this term vanished as a
consequence of the gauge condition (21.1.2). We will adopt a different
approach here, similar to that of Sections 15.5 and 15.6. A functional B[f]
is introduced into the path integral, with

B[f] =exp (2:&{ / d4x2fafa) : (21.2.1)
&
This is equivalent to adding a gauge-fixing term in the Lagrangian
1
Lo = — 3% fafu- (21.2.2)

Instead of taking f, = 6,4¥% as in Section 15.5, we shall now take the
gauge-fixing function as

fo= ap Ab —i ﬁ(ta)nmqf’;:vm ’ (21.2.3)

which is designed so that the above cross term in (21.1.3) is cancelled by
the cross term in Eq. (21.2.2). Unitarity gauge is now a special case; for
¢ — oo, the gauge-fixing functional (21.2.1) is infinitely sharply peaked at
a ¢’ that satisfies the unitarity gauge condition (21.1.2). Another special
case is provided by the limit { — 0; here the gauge-fixing functional
is peaked at a gauge field that satisfies the Landau gauge condition
0, A% = 0.

We also include in the Lagrangian a quartic polynomial —P(¢), subject
to the gauge-invariance condition

oP(9) (ta)nmPm = 0. (21.2.4)

Othn

We must of course also include in the Lagrangian a gauge-field term

t
La=—3 Y F'Fu. (21.2.5)
4
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The total Lagrangian density of gauge fields and scalars is then
Lap=ELa+Lp+Lys

1 1 1
= 4 D Fa 5 D (O $ Al Apu — 57 3(0uf) (0,45)

nof

_% Z f}ﬂqbilf}'”q‘); + -g Z(Iav)n([av)m(b;qb:n

anm

—P(P) +i D 8uita)nmeb), A% + total derivatives . (21.2.6)
XM
As we saw in Section 15.6, the introduction of a gauge-fixing functional
B[f] requires also the introduction of a ghost field w,(x), with Lagrangian
depending on the gauge-transformation properties of f,. Under a general
gauge transformation (with an arbitrary function e,(x))

SAL = = CapyepA, + 0Fey (21.2.7)
pv
S =1 _ exltu)umm , (21.2.8)
o
we have
0fy =0 €y — Z chﬁyap(eﬁA}"uJ +¢ Z(Imv)n E‘B(fﬁ(ﬁ)n - (2129)
By nj

According to the general results of Section 15.6, this yields a ghost
Lagrangian

Lo=0wy|0wy—> CoupBulmpAl)+ &Y (tab)nwp(tpd)n| - (21.2.10)
by nf

Finally, if the theory involves spin ! fermions there will also be a
general renormalizable term

Lo = —p(0 — idot®) 4 mg + Tugpn)y (21.2.11)

where #() is the matrix representation of the generators of the gauge group
for the fermions (including coupling-constant factors), and m and I', are
constant matrices (in general, linear combinations of terms proportional
to Dirac matrices 1 and vys) satisfying the gauge-invariance conditions

{rg}“), yamo| =0, (21.2.12)

[Igb), .})41_"1] + Z(ra)mn '})41_'??1 =10. (21213)
m

(The factor y; = iy" arises from the definition p = yTys. It is relevant
only if #¥) involves terms proportional to ys.) The general theorem proved
in Sections 15.5 and 15.6 guarantees that the S-matrix calculated from a
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Lagrangian given by the sum of Egs. (21.2.6), (21.2.10), and (21.2.11) is
independent of the choice of the parameter £ appearing in the gauge-fixing
function (21.2.3), and so for any ¢ will give the same results as the choice
¢ = oo corresponding to unitarity gauge.

To derive the propagators for all these fields, we need the part of the
Lagrangian that is quadratic in fields:

1 ' v
PQUAD = — 1 Y (B4 A" — 6" Ay") (04 Amy — Oy Auy)
4
1 1 N
- 5 Z#iﬁAgABu - E Z(aﬂAéﬁ) (avAo: )
o} o
! e 1
=5 2 Cubn) @' br) = 5 D Myudry,
— Pl + my ~ Oy, 0* iy — & Z yiﬁm;wﬁ

+ total derivatives, (21.2.14)

where 24 is the vector boson mass matrix (21.1.7):
Hap = — D _(LOW(EP0)m (21.2.15)

and M;, and m are new scalar and fermion mass matrices:

*P(¢) S
M, = — 3 Z(rav)n(fav)m
Chnlhm v 2 =

m=mo+Zann.
n

(21.2.16)

We see from Eq. (21.2.14) that the ghosts have gauge-dependent masses,
equal to ,/¢ times the corresponding vector boson masses.

These expressions give the particle masses in the zeroth order of per-
turbation theory. To this order, the vacuum expectation value v, is just
the location of the minimum of the polynomial ‘potential’ P(¢):

ob(9) =0 21.2.17
ol (21.2.17)

Also, as we saw in Section 19.2, it follows from Egs. (21.2.4) and (21.2.17)
that

*P(¢
Z 6¢5n6¢5m

(t)n =0 (21.2.18)
$=v
for all «. It follows then that in place of the Goldstone modes w1th mass
zero, the scalar boson mass-squared matrix in Eq. (21.2.16) has eigenvalues
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equal to /¢ times the non-zero vector boson masses. That is, if ﬂiﬁ ha

an eigenvector cg with eigenvalue 4%, then 2_p Cptpv is an eigenvector ¢
M? with an eigenvaltue &p?:

ZMﬁm (Z cﬁtﬁv) = ﬁz uiﬁcﬁ(tav)n = i,uz (Z catmv) . (21.2.19
m ﬁ mﬁ o

n
The other eigenvectors of M2, are then orthogonal to all of these, anc
hence to all t,v, so these eigenvectors and the corresponding eigenvalue
are just the same as for the matrix (62P(¢)/0Pndpm)s—r. We see that fo
the unitarity gauge value & — oo, the Goldstone bosons are so heavy tha
they drop out of the theory, while the other boson masses are as usual.
The propagators are calculated by the usual rules: if the free-particle
part of the Lagrangian takes the form (after integration by parts
—{T2()¢ for a complex field ¢ or —1(7 9(@){ for a real field ¢, then the
propagator of this field is 2! (ik). This gives the propagators:

24

. _(r o _d=Okk
A Bapr(®) [kz + 2 (n‘w" k? 4 p2¢ )Lg ’ (21.220)
¢ 1 Awmik) = (k2 + MOy + &> (ta0)nltp0)mlk®) (K + E1)
ap
(21.2.21)
po A)=[—if+ml /(K + ), (21.2.22)
®: Agglk) = (k" + &)y . (21.2.23)

The poles in Eq. (21.2.20) at unphysical mass squares proportional to & are
cancelled by the poles at the same masses in Eq. (21.2.21). Note that now
for finite ¢ all propagators have the same asymptotic behaviors as in the
unbroken symmetry case, as required for renormalizability. In particular,
the k .k, term in the vector boson propagator no longer presents any
problem for renormalizability, because it is accompanied with an extra
factor (k> + u>¢)~!. We can even drop this term by choosing Feynman
gauge, with £ = 1. It is only in the unitarity gauge case where ¢ — oo that
this factor fails to give the propagator the asymptotic behavior needed for
renormalizability.

Even with well-behaved propagators, it is still necessary to show that
the ultraviolet divergences in these theories are constrained by the broken
gauge symmetries in such a way that every infinity can be cancelied by the
renormalization of a field or a parameter in the Lagrangian. This can be
done by the same techniques as in Sections 17.2 and 17.3, but treating the
vacuum expectation values of the spinless fields as external fields rather
than fixed quantities that break the symmetries.>
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21.3 The Electroweak Theory

The most important application of spontaneously broken gauge theories
has been to the theory of weak and electromagnetic interactions.” Weak
interactions at low energies are well described by an effective Lagrangian
given by a sum of products of vector (including axial-vector) currents, as
in Eq. (19.4.22). This suggests that these interactions may like electro-
magnetism be described by some sort of gauge theory. In order to insure
the separate conservation of electronic-type and muonic-type leptons and
baryons (or quarks) we may guess that the known electronic-iype and
muonic-type leptons and the quarks all form separate representations of
the gauge group. With this assumption, there are only a few possibilities
for the structure of the gauge group.

Lets first consider the electronic-type lepton fields. As far as we know,
these consist only of the left- and right-handed parts of the electron field
e:

er = (1 +7ys)e, er = 3(1—1ysle, (21.3.1)
and a purely left-handed electron-neutrino field v, :
Y5Vel = VeL - (21.3.2)

The fields in any representation of the gauge group must all have the same
Lorentz-transformation properties, so the representations of the gauge
group here divide® into a left-handed doublet (v,z, ;) and a right-handed
singlet eg. The largest possible gauge group is then

SUR). x U(1)L x U(1)r ,

under which the fields transform as

5 ( "; ) =i [é-'f+eLrL +€RIR] ( ‘; ) , (21.3.3)
where the generators are
- g 01 0 —i 1 0
=Eem{(V0) (7 5) (o )} @
1 0
nec 479 (g L) (213.5)

tr oc (1 —7s) (21.3.6)

" If we allow gauge couplings that change electron-type lepton number, then it is possible
to include the left-handed field éx along with v,; and e, in a representation of the
gauge group. This was the basis for an early SO(3) variant® of the electroweak theory,
which has since been ruled out by experiment,
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with g a constant to be chosen later. It will be convenient instead of ¢,
and tg to consider the generators

) G ()] e
() () () s

where g’ and g” are constants like g to be chosen later. The generator y
appears along with ¢3 in a linear combination that plays a special role in
physics; it is the electric charge

and

0 0
qme(o _1):§r3—§y. (213.9)

Also, n, is the electron-type lepton number. We want to include both
charge-changing weak interactions (like beta decay) and electromagnetism
in our theory, so we will assume that there are gauge fields A* and B*
coupled to 7 and y. In addition, we may or may not want to include a
gauge field coupled to the one remaining independent linear combination
of ¢t1 and tg, which can be taken as the electron-type lepton number
(21.3.8). There are very stringent limits’ on the long-range forces that
would be produced by a massless gauge field coupled to n., so in order
to include in our theory a gauge field coupled to n, with a strength g”
comparable to the weak and electromagnetic interactions, we would have
to assume that this gauge symmetry is spontaneously broken."* However,
there is no experimental evidence for the weak interaction that would
be produced by such a gauge coupling (and plenty of evidence by now
against it) so we shall simply exclude n, from the generators of the gauge
group. The gauge group is then®

G = SU@2) x U(1) (21.3.10)

with generators i,y given by Egs. (21.3.4) and (21.3.7) respectively. The
coupling constants g and g’ are to be adjusted so that the gauge fields A¥
and B¥ coupled to these generators are canonically normalized. The most
general gauge-invariant and renormalizable Lagrangian that involves just

“* Note that this is possible without violating the global conservation law of electronic
lepton conscrvation, We would have to assume that the Lagrangian is invariant under
both a global phase (ransformation acting only on clectron-type lepton ficlds, and
also a local phase transformation that acts on electron-type lepton fields as well as on
some scalar field that does not interact with leptens. The vacuum expectation value
of this scalar would break the local symmetry, giving the gauge boson coupled to n,
a mass, without breaking the global symmetry.
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these gauge fields and electronic leptons is then

- - - + 2
Lym+Le=— 18,4 — 0,4, + 24, x A,) ~ 1(3,B, —,B,)

—Zf—id t—i By). (21.3.11)
(We here use the fact that the structure constants of SU(2),. and U(1) are
Cijx = —ig e and zero, respectively.)

Of course, of the four gauge fields coupled to 7 and y, only one
tinear combination, the eleciromagnetic field 4%, is actually massless. We
therefore must assume that SU(2),, x U(1) is spontaneously broken to a
subgroup U(1)em, with generator given by the charge (21.3.7). The details
of the symmetry-breaking mechanism will be considered a little laier.
However, whatever this mechanism may be, we know that the canonically
normalized vector fields corresponding to particles of spin one and definite
mass consist of one field of charge 4-e with mass my :

1.
W = 7 (A) 448y, (21.3.12)

another of charge —e and the same mass:

] 1 :
WH = 7§ (Ay —iAY), (21.3.13)
and two electrically neutral fields of mass m, and zero respectively, given
by orthonormal linear combinations of 4% and B#:

Z* = cos A§ 4-sinf B# (21.3.14)
A" = —sinf A5 + cos O B, (21.3.15)
or equivalently
A =cos Z* —sin 0 A* (21.3.16)
B¥ =sin0Z" + cos A* . (21.3.17)

According to the general result (21.1.11)(21.1.12), the generator of the
unbroken symmetry, which is here electromagnetic gauge invariance, is
given by a linear combination of generators in which the coefficients are
the same as the coefficients of the corresponding massless field in the
expansion of the canonically normalized gauge fields coupled to these
generators. Inspecting Eqs. (21.3.16) and (21.3.17) shows that

g =—sinfBt;+cosBy. (21.3.18)
Comparing this with Eq. (21.3.9) gives then
g=—e/sinb, g = —e/cosb. (21.3.19)
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The complete lepton—gauge boson coupling can be expressed in terms of
the couplings g and g’:

e (2) e (1)

— _( Ve ) [\}j Wt — itar) + \% W (1L + itar)

e

+ Z (ts.cos 0 + ysin0) + A(—t3.sinf +y 0089]

)
(7)) (5209
(e e ()

15 Z ( ‘2?’5) ¢e—e(ede). (21.3.20)

To complete the theory, we must now make some assumption about
the mechanism of symmetry breaking. We want this mechanism to give
masses not only to the W= and Z°, but to the electron as well. Now, the
only way that this is possible in a renormallzable weakly-coupled theory
is to have a scalar field coupled without derivatives to /g and 7 (and
also 7;, and ¢g ). Then SU(2);, x U(1) invariance requires that the scalar
be an SU(2). doublet like ¢;, but with a shifted value of y and hence of
q. We thus assume a “Yukawa’ coupling

-l

Lo =—GC (—j ( i;{ ) er + Hc., (21.3.21)

where (¢T,¢%) is a doublet, on which the SU(2) x U(1) generators are
represented by the matrices:

-3 {(24) (0 2)(4 ) e

WO = _ g2 ( ; ; ) , (213.23)
so that the charge matrix is
W_e_2 w_,(10
q g 13 g’y e ( 00 )" (21.3.24)

It is possible that there are other scalar multiplets in the theory, but for
the moment let’s suppose that this is the only one.

We must add a gauge-invariant term involving scalar and gauge fields
to the Lagrangian. The most general form consistent with SU(2) x U(1)
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gauge invariance, Lorentz invariance, and renormalizability is:
1 . - R 2 uz .vl
g¢=—§mwﬂ4,ﬁhqmﬂ@w|—7¢w—zme2(ﬂ&ﬁ)

where 4 > 0, and
¢E($§). (21.3.26)

For u? < 0, there is a tree-approximation vacuum expectation value at the
stationary point of the Lagrangian

($)(¢) =v* = |12|/4. (21.3.27)

We can always perform an SU(2) x U(l) gauge transformation to a
unitarity gauge, in which ¢* = 0 and ¢° is Hermitian, with a positive
vacuum expectation value. (This is why we normalized the complex
doublet ¢ so that an unconventional factor % appears in the kinetic term
in Eq. (21.3.25); Re ¢° is the only physical scalar field, and Eq. (21.3.25)
makes this a canonically normalized field.) In unitarity gauge the vacuum
expectation values of the components of ¢ are

(7)) =0, (N =v>0. (21.3.28)

The scalar Lagrangian (21.3.25) then yields a vector meson mass term

1 -+ .- 2 1 g =+ & gf 0 2
_ . () {(#) —_ _*lfe .2_ 5
> (A 19 4 By () = ZKZANT 21?)(9)
29 2
v v
= WIW -2 @ g2 Z,2"
(21.3.29)

We see that as expected, the photon mass is zero, while the W* and Z°

have the masses
_vlgl _v/g?7 + g7
mw = ——, Mz = —-—~——2 .

2

Also, from Eqs. (21.3.21) and (21.3.28) we see that the electron is given a
lowest-order mass

(21.3.30)

m, = G . (21.3.31)

It is difficult to study reactions among eleciron-type leptons alone,
though by now there are data on scattering processes like ¥,4-e~ — V.42~
For high precision data we have to consider reactions that also involve
at least involve muonic-type leptons, such as the well-studied process of
muon decay, ut — e* 4 v, + ¥,. It is trivial to extend the above model
to include muon-type leptons — just add to the Lagrangian terms £y
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and &, like the last terms in Eqgs. (21.3.11) and (21.3.21), with the fields
¢ and v, replaced with the muon and muon-neutrino fields ¢~ and v,
and with G, replaced with G, = G.(m,/m,). Inspection of (21.3.20) and
the corresponding term with e and v, replaced with p and v, shows that
W exchange between low energy, e-type and p-type leptons produces the
effective interaction

()1 ((52)0) (i (152)) e 0o

This may be compared with the interaction of the effective ‘V — 4" theory
which is known to give a good description of muon decay

(2 1+ 99 %) (Fava (1 +99)1) +He, (21.333)

Gr
2

Here Gp is the conventional Fermi coupling constant, known from the
muon decay rate to have the value Gr = 1.16639(2) x 107 GeV~2 Com-
paring these two expressions, we find

g2 /myy = 42 Gy . (21.3.34)

This allows an immediate determination of the vacuum expectation value
v, given by Eq. (21.3.30) as

2 1
b= T = =247GeV (21.3.35)
g 214Gy
Also, Eq. (21.3.31) shows that G, has the very small value
0.511 MeV
= T 207 -6 1.3.
¢ = 347 Gev 2.07 x 10 (21.3.36)

From Eq. (21.3.30) we see that mz > my. We cannot use Eq. (21.3.30) to
determine the actual values of mz and my without knowing something
about g and g'. Using Egs. (21.3.30) and (21.3.19), we can express mz and
my in terms of the electroweak mixing angle 0:

ev  37.3GeV

my

~ 2sinf]  |sinf] °
ev 74.6 GeV
mz = —— = — :
2! sin 0|| cos 0] | sin 20|

These are the original results obtained in Ref. 3. Of course, there are
radiative corrections of ali sorts, most of which depend on details of the
theory that have not yet been specified in this section. But there is one
particularly large radiative correction that can be readily calculated with-
out further information. The above values for my and mz were calcuiated
using the conventionally defined electronic charge for e. However, as
explained in Section 18.2, this is not precisely the appropriate value to use
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in calculations of processes at energies E > m,; we should instead use the
electric charge e, defined at a sliding scale 4 comparable to the energies of
interest. For u of the order of 90 GeV the effective fine structure constant
eﬁ/«fln is about 1/129 (and quite insensitive to the precise value of u), so
the above values for my and my should be multiplied with \/137/129,
giving

38.
my = Sod GeV (21.3.37)
| sin 0|
76.9 GeV

Whatever the value of 6, these masses are too large for there to have
been any hope of detecting the W or Z in the 1960s or early 1970s. Exper-
imental evidence for the electroweak theory had to come instead from the
discovery of the new class of weak interactions predicted by the theory, the
neutral current processes produced by Z° exchange.® The first observation
of a neutral current process was the 1973 bubble chamber detection of
the purely leptonic process of v,—e~ elastic scattering.!® Although these
processes are easy to deal with theoretically, the frequency of events is
relatively low, because the cross section is proportional to the square of
the center-of-mass energy.’ It was years before the purely leptonic neutral
current reactions could be used to give a reasonably precise value for the
parameter sin’ 6, By 1994, the study of purely leptonic neutral current
processes like v, -+ e~ — v, + e~ and ¥, + e~ — ¥, + ¢~ had yielded the
value 0.222 + 0.011, which would give my = 81.5 GeV and my; = 92.5
Gev.

Even before the discovery of neutral currents, the electroweak theory had
been extended to the weak and electromagnetic interactions of hadrons
with each other and with leptons. By the mid-1960s, it had become
understood that weak interaction processes in which charge is exchanged
between leptons and hadrons are well described at low energy by the
effective Lagrangian

Gr ] )
7 [74(1 + ys)ve + Fa(l +y)w] 7+ + Hee., (21.3.39)

where J* is an hadronic current. Within the quark model, the commutation
and conservation properties of J* allowed it to be identified with the quark

' The cross section is proportional to GZ, so in order to have the dimensions of encrgy 2,
it must also be proportional to some energy squared. Where the center-of-mass energy
is much larger than the electron mass, it is the only energy that can appear in this
formula.
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current
J* = iy*(1 + ys)d cos O, -+ wy*(1 + ps)s sin . . (21.3.40)

Here u,d, s are the fields of the up, down, and strange quarks, and €, is
another angle, known as the Cabibbo angle.!! Experiments on processes
like O - N¥ et v, and KT — 7° + e + v, confirm that Gr has
very nearly the same value as that measured in the purely leptonic process
ut — 7 + et +v,, and give for 0, the value!? sind, = 0.220 -+ 0.003. We
naturally conclude that the quarks provide another SU(2) x U(1) doublet

1 +ys u
'@_( 2 )[dcos()cﬁ—ssinﬂc ’ (21.3.41)

as well as right-handed singlets, with y values adjusted to give the quark
charges 2e/3 and —e/3. By itself this would lead to a serious difficulty.
The Z° boson interacts with the quark neutral current

> 2yMtspcost + ysind)2 =Y F(r3psecl +qtan0)2, (21.3.42)
2 2

with the sum running over all quark doublets 2 like (21.3.41). The charge
matrix g 1s diagonal in quark flavors, but if (21.3.41) were the only
quark doublet then the term involving the matrix ¢33 would contain cross
terms proportional to sy#(1 + ys)d and dy*(1 + ys)s, leading to effective
Z exchange interactions like s ++d < d +5 and s +d o uT + p~ with
the strength of ordinary first-order weak interactions. Such effects would
lead to rates for processes like K°-K9 oscillations and K® — ut + pu~
many orders of magnitude greater than observed. Also, even without
neutral current terms in the Lagrangian, the one-loop diagrams involving
the interaction (21.3.39) with the charged current (21.3.40) would lead to
an effective interaction s + d — d -5 which is smaller than an ordinary
first-order weak interaction only by a factor of order «/2r, leading to a
rate for K9-KO0 oscillations that is still much too large. In order to avoid
this last difficulty, it was proposed!? that there is another term in J*; in
modern notation,

ey (L +ps) [—d sin0, + scos 8], (21.3.43)

where ¢ is a fourth quark, like u with charge 2¢/3. Adding (21.3.43) to
(21.3.40), the charged current may be written

J* = (cos O, — ¢sin O)p (1 + ys)d + (@sin 8, + ¢ cos O, )y (1 + ps)s .

The only reason that the interactions of the W with this current do not
conserve strangeness is that the ¢ and u have different masses, leading to
transitions between ucosé, —csinf and usin 8. + c cos 8.. But this means
that the loop diagrams for the effective interaction s +d — d + 5 are
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suppressed by additional factors (since m, < m.) of m2/m3,, bringing the
rate for K°—K° oscillations into agreement with experiment.

It was subsequently noted'# that this also solves the problem of the
strangeness changing Z° interactions. In the context of the SU(2) x U(1)
gauge theory the combination —dy sin€, -+ sy, cos 0, cannot be a singlet,
but must be part of another doublet

1 +ys

(%)
Including this doublet in the weak neutral current (21.3.42), the strangeness
non-conserving terms proportional to 5y#(1-+7s)d and dy#(1 + ys)s cancel,
removing the problem of excessive Z exchange contributions to processes
like K°-KO oscillations and K° — u* + u—. Particles containing the ¢
quark in a ¢ bound state were discovered!® in 1974, and indicated a
mass m. ~ 1.5 GeV."" This completed two generations of quarks and
leptons: a (u,d) quark doublet mixed with a (c,s) quark doublet, together
with two lepton doublets (v.,e) and (v, ).

The first sign of a third generation was the discovery of a third charged
lepton,'® the 7. Later a fifth quark type, the b, was discovered,!” with
charge —e/3 and a mass of about 4.5 GeV. A sixth, the ¢ with charge
2e/3, then became theoretically necessary, and after a long interval it too
was discovered,'® with a mass quoted in 1995 as 181 -+ 12 GeV.?” Today
the hadronic current J* in (21.3.39) is expressed as

u
Jh=1| ¢
t

where V is an incompletely known 3 x 3 unitary matrix, known as the
Kobayashi-Maskawa matrix.?° In the SU(2) x U(1) gauge theory, this
means that there are three quark doublets:

[
—d sin0; s cosf, |~

(21.3.44)

b

d
YA 4ps) V [ sj| : (21.3.45)

14ps\ [ u

( 2 ) | Vyad + Viss + Viph ] , (21.3.46)
1+psy [ c

( 2 ) L VCdd + Vcss ‘+— V('bb :| b (21.347)
1+ JE [ t

( 2 ) | Viad + Viss + Vipb ] . (21.3.48)

T We do not observe quarks in isolation, so their masses are not precisely defined.
The mass of the ¢ quark quoted here is roughly half the mass of the J—yp particle,
interpreted as a ¢ ¢ bound state. The b and ¢t quarks are so heavy that their masses
can be taken from the masses of the hadrons containing them with little ambiguity.
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It is important to recognize that this is just what we should naturally
expect on general grounds for three quark doublets. The most general
renormalizable (SU(3) x SU(2) x U(1))-invariant interactions of the scalar
doublets ¢, with the quarks must in general take the form

--Say (5 ) (g2 )

ijn

i ( . )( —ﬁ)? )D;R»%H.C., (21.3.49)

ijn

where U; and D; with i = 1, 2, 3 are three independent quark fields of
charge 2e/3 and —e/3, respectively, L and R denote the left- and right-
handed parts of the quark fields, and GJ; and HJ; are unknown constants.
The vacuum expectation values of the neutral scalars then produce a
quark mass term

Fm=—> UrmjiUgr—> DumDjr+Hc., (21.3.50)
ij ij
where

ZG ¢'n VAC » ZH ¢’0 VAC (21351)

The matrices m’, and ml-j are not constrained in any way, and in particular
may be complex and non-diagonal, in which case parity- and flavor-non-
conserving terms appear in %, But we can introduce new quark fields
Up = A¥Ug, U} = AYU., Dy = ARDg, D; = APDy, where the 4s are
3 x 3 matrices constrained only by the condition that they must be unitary
in order to preserve the form of the kinematic term (19.4.1). Then the
mass term (21.3.50) takes the same form when rewritten in terms of the
primed quark fields, but with the matrices m¥ and m? replaced with

mU = AYmV 45T mP = APmPART . (21.3.52)

Now it is a general theorem that for any matrix m, it is always possible to
choose unitary matrices A and B such that AmB is real and diagonal. {(Use
the polar decomposition theorem to write m = HU, where H is Hermitian
and U is unitary, and choose A = ST and B = U'S, where S is the unitary
matrix that diagonalizes H.) We can therefore choose the As so that mY’
and m?’ are real and diagonal, in which case the quark fields u, ¢, t, d, s,
and b are to be identified with the components of U; + Uy and D} + Dp.
The weak doublets are now written as

AV -tuyy
o () )
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but we can just as well take the doublets as linear combinations AY Q; that
have charge 2e/3 quarks of definite mass u, ¢, t as their top component,
in which case these doublets take the form (21.3.46)—(21.3.48), with

V=dAYA2"T (21.3.53)

Within 90% confidence limits, the best present (1995) values for the
absolute values of the elements of the Kobayashi-Maskawa matrix are2

0.9745 t0 0.9757 0.219 t0 0.224 0.002 to 0.005
0248100224  0.9736 t0 0.9750 0.036 to 0.046 .
0.004 t0 0014  0.034t0 0.046  0.9989 to 0.9993

with rows labelled u, ¢, and ¢, and columns labelled d, s, and b.

If there were only two quark doublets formed from u, d, ¢, and s quarks,
it would be possible to choose the phases of the quark fields so that all Vij
are real,F so that the V matrix is orthogonal, and the doublets (21.3.46) dIld
(21.3.47) (with b omitted) take the form (21.3.41) and (21.3.44), respectively.
In this case the gauge interactions would automatically conserve T and
CP. The great importance of the third generation is that it is no longer
always possible to choose quark phases so that the V matrix is real, and
therefore the gauge interactions can violate T and CP conservation. But
for unknown reasons the elements V,,, V., V4, and V,, that connect the
third generation with the first two are all quite small, so the physics of
the first two generations is hardly affected by the presence of the third,
which explains in a more-or-less natural way why the Cabibbo assumption
(21.3.40) works so well and why the violation of T and CP conservation
is so weak. T and CP conservation can also be violated by scalar boson
interactions if there are two or more scalar doublets;2%" here the violation
of T and CP conservation is expected to be weak because the scalar
doublets couple weakly to light quarks. It is still unknown which of
these mechanisms is responsible for the observed violation of T and CP
conservation in K decay, discussed in Section 3.3.

Neutral current processes involving hadrons, such as neutrino—nucleon
deep-inelastic scattering, were discovered in 1973, shortly after the de-
tection of the purely leptonic process vy +e — v, + e Because of the
much greater mass of the target particle here, it became possible before
long to observe large numbers of events, and use them to confirm the
electroweak theory and measure its parameters. Additional information
on lepton-hadron neutral current interactions came from the observation
of parity violation in atomic physics. By 1983 all direct measurements of

* Adjust the phases of ¢ and s so that V,4 and V,, are real. Unitarity then requires that
Ve and Vi have the same phase, which can be eliminating by adjusting the phase
of ¢.
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sin? @ had become consistent, and gave a combined value sin 0 = 0.23,
yielding the predictions my = 80.1 GeV and mz = 91.4GeV. Then in
1983 the W was discovered, with the Z following soon after.? Their
measured masses are now {(in 1995)

mw = 80410+ 0.180 GeV?> my = 91.1887 +0.0022 GeV?*,

in satisfactory agreement with the predictions of the electroweak theory.

The very great accuracy of the measurement of the Z mass, which
has been achieved by tuning the energy of et—e™ collisions to the Z
resonance at LEP (CERN’s Large Electron Positron collider) and the
SLC (Stanford Linear Collider), has changed the way that electroweak
data is analyzed. Instead of comparing predictions of W and Z masses
with observed values, the Z mass is taken as an experimental input, along
with the Fermi coupling constant Gy = 1.16639(2) x 1075 GeV~? taken
from the rate of muon decay (including radiative corrections to order «),
and the fine structure constant a(mz) = (128.87 + 0.12)~!, extrapolated
from low energy measurements as described in Section 18.2. In this way
sin” @ becomes a derived quantity; if defined by Eq. (21.3.38), it takes
the value sin?@ = 0.2312 + 0.003. With these inputs, the electroweak
theory can be used to make predictions of other quantities like my with
sufficient precision that it becomes necessary to take electroweak radiative
corrections into account.’’ In one-loop order these radiative corrections
involve the masses of the ¢t quark and scalar (‘Higgs’) boson, and thus
can be used to estimate these masses. For instance, before the top quark
was discovered the agreement between theory and experiment set bounds
on these radiative corrections which implied a top quark mass in the
range 130-200 GeV,?® in agreement with the value subsequently found
experimentally. The W mass is predicted (in 1994) to be 80.29 GeV, with
an uncertainty of -+0.02 GeV from uncertainties in the inputs mz, Gr, and
a{mz ), and an uncertainty of +0.11 GeV from the range of possible values
of m, and mpjges. Ome 1995 study?’ concludes that mpjges < 225 GeV.
The precise measurement of my expected at the LEP 2 electron—positron
collider at CERN will allow a useful estimate of mu;ggs.

* ¥ %

The most general renormalizable Lagrangian with the field content
and SU(3) x SU(2) x U(1) gauge symmetries of the electroweak theory
automatically respects baryon and lepton conservation. This is obviously
true for the gauge interactions and bare mass terms, because the quarks,
antiquarks, leptons, and antileptons all belong to distinct representations
of SU(3) x SU(2) x U(1l). With scalars all belonging to SU(3) neutral
S U(2) doublets with U(1) quantum number +1/2, the only renormalizable
interactions of scalars with fermions and/or antifermions are with quark—
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antiquark and lepton-antilepton pairs, which of course conserve baryon
and lepton number. (In much the same way, one can see that the
charged hadronic currents with which leptons interact are necessarily
linear combinations of the currents associated with the spontaneously
broken SU(3) x SU(3) symmetry described in Section 19.7, as assumed
without knowing the explanation in the original work on this broken
symmetry.)

These results depend critically on the assumption that the standard
model is renormalizable. But as we have repeatedly emphasized, the
renormalizable Lagrangian of the standard model is expected to be accom-
panied with non-renormalizable terms of dimensionality d > 4, suppressed
by 4 —d powers of some very large mass M. The leading corrections to
the predictions of the renormalizable standard model come from terms
with the smallest possible dimensionality greater than four.

The only Lorentz-invariant terms of dimensionality five that can be
constructed out of the fermion and other fields of the standard model
are at most bilinear in fermion fields and also contain either two scalars,
or one scalar and one gauge-invariant derivative, or no scalars and two
gauge-invariant derivatives (including their commutator, a field strength
tensor). Color SU(3) invariance requires that the fermion fields in such
an interaction appear in either a quark—antiquark bilinear or a pair of
lepton and/or antilepton fields, all of which operators conserve baryon
number. There are a great number of such terms, but to violate lepton
number conservation they must involve a product of two lepton fields or
of their conjugates. The left-handed lepton doublets (/7,,v;) and right-
handed charged lepton singlets /¢; (with i = e, y, or 1) have U(1) quantum
numbers 1/2 and -+1, respectively, while the scalar doublet (or doublets)
(¢, ¢°) have U(1) quantum number —1/2, so we can construct U(l)-
invariant interactions of dimensionality five out of two left-handed lepton
doublets and two scalar doublets. With only a single type of scalar doublet,
there is just one such term that satisfies S U(2) and Lorentz invariance:274

S it — v WLt — vidY)., (21.3.54)
ij

where i and j are lepton flavor indices, and ¢ denotes the charge conjugate
field. At energies below the electroweak breaking scale, this yields an
effective interaction

> v (8%°. (21.3.55)
i

We expect fi; to be of order 1/M, perhaps multiplied with small coupling
constants, so this gives lepton number non-conserving neutrino masses
at most of order?”® (300 GeV)?/M. We shall see in Section 21.5 that M
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is expected to be of order 10°-10® GeV, so we would expect neutrino
masses in the range 107%-10~! eV, or less if suppressed by small coupling
constants. Such masses are too small for direct measurement, but there is
no reason for the neutrino mass matrix to be diagonal, so neutrino masses
might be detected in oscillations of one neutrino type into another over
long flight paths.

A similar analysis shows that there are interactions of dimensionality
six that violate both baryon and lepton number conservation, involving
three quark fields and one lepton field.?’¢ Such interactions would have
coupling constants of order M—2, and would lead to processes like proton
decay, with rates proportionat to M4

21.4 Dynamically Broken Local Symmetries™

Our discussion of spontaneously broken local symmetries has so far
been entirely within the context of perturbation theory. To some extent,
this limitation is inevitable. Whereas for spontaneously broken global
symmetries it 1s possible to prove exact theorems about the existence and
interactions of massless (Goldstone bosons, the spontaneous breakdown
of a local symmetry does not lead to any such precise consequences. Even
the existence of massive vector bosons is not really a general theorem;
for sufficiently strong gauge coupling these particles decay so rapidly that
they lose their identity as distinct resonances of definite spin j = 1.

On the other hand, if the gauge couplings like e or g or g’ are sufficiently
small then the theory with a spontaneously broken local symmetry must
be very close to one with a spontaneously broken global symmetry, about
which exact theorems can be proved. It is therefore possible to derive
useful approximate results for such gauge theories, even if the other non-
gauge couplings are very strong. One example is provided by the standard
SU(2) x U(l) electroweak theory with a large scalar self-coupling A (and
hence a large scalar mass; see Eq. (21.3.27)). A more intriguing possibility
is that the breakdown of electroweak symmetry is due to strong forces
associated with some new gauge group acting on a set of new fermions. We
will here consider the results that can be obtained for all such theories,
without reference to the specific mechanism for spontaneous symmetry
breaking.?®

We assume that in the limit of zero gauge couplings, our theory is
invariant under some group G of global symmetries, spontaneously broken

* This section lies somewhat out of the book’s main line of development, and may be
omitted in a first reading.



21.4 Dynamically Broken Local Symmetries 319

to a subgroup H. As discussed in Section 19.5, in this case the theory can
be written in terms of a set of Goldstone boson fields &,, plus other matter
fields {, whose G-transformation properties are such that the Lagrangian
is G-invariant if it is H-invariant and constructed solely from @ and
covariant derivatives D,,, D,{ etc., given by Egs. (19.6.14), (19.6.30), etc.

We now ‘turn on’ the gauge couplings. The gauge group ¥ is of course
required to be a subgroup ¥ = G of the group G of all symmetries
of the theory, and when G is spontaneously broken to H, % must be
spontaneously broken to a subgroup 3, equal to the intersection of ¥
with H. The generators .7, of the gauge group ¥ may be expressed as
linear combinations of the generators T4 of the full group G:

Ta=) enTu, (21.4.1)
A

with coefficients e,4, the gauge couplings, that are taken very small. The
index A runs over the tabels i, a of the unbroken symmetry generators ¢; and
the broken symmetry generators x,. (We are here taking the generators T4
to be conventionally normalized; that is, they are represented by matrices
with elements of order unity. In particular, in contrast to the 7, the
structure constants of the x, and ; do not include factors of coupling
constants.)

In the underlying theory in which G invariance is linearly realized, we
introduce the coupling of gauge fields .«7,, to other ficlds y by replacing
ordinary derivatives with gauge-covariant derivatives

(ap —iy f/"am#) Y = (aﬂ —iY T44 Ap) P, (21.4.2)
&% A
where

Agy = €aail sy . (21.4.3)

The resulting theory is then invariant under formal local transformations,
under which the fields transform according to

Y ogy, (21.4.4)

Y Tadg— g (Z Ta AA,u) gt —i(du)g (21.4.5)
A P

where g(x) is an arbitrary spacetime-dependent element of the group G.
This is a purely formal invariance, because the gauge couplings in general
actually break G, as shown by the fact that the transformation (21.4.5)
does not in general preserve the form of the linear combination (21.4.3).
Nevertheless, we can temporarily forget about Eq. (21.4.3), treating 4/
as an unconstrained classical external field, and analyze the structure
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of the Lagrangian for the matter fields and their interaction with the
gauge fields by requiring that it be invariant under local transformations
(21.4.4), (21.4.5). In this way we will insure not only that the Lagrangian
1s invariant under the true local symmetry subgroup ¥ (and for e;4 — 0
under the larger global symmetry group G), but also that the currents, the
variational derivatives of the matter action with respect to </¥, will have
the correct transformation under the broken global symmetry group G.
Later we will restrict A} to the form (21.4.3), and treat the field &/# as a
quantum field, supplying a suitable kinematic term in the Lagrangian for
this field.

In order to explore the implications of the spontaneous breakdown of
the invariance group G to its subgroup H, we will proceed as we did in
Section 19.6. First, replace y and A with new fields ¢, A4:

=7 ' (&), (21.4.6)
=3 Das(y74&)) A}, (21.47)
B

P

Ay
where y(£) is the standard G transformation that eliminates the Goldstone
boson degrees of freedom in y, and D(g) is the representation of G
furnished by the gauge fields:

gTag™' = Dpalg) Ts. (21.4.8)
B

These Goldstone degrees of freedom reappear in the spacetime-dependent
parameters &, on which y(£) depends. By the same calculations as in
Section 19.6, for local as well as global transformations the transformation
rule (21.4.4) translates into the transformations

g 8 = fE,g), (21.49)
P9 =hég)p, (21.4.10)

where h and f are defined by
g (&) =y(f({,g)h(,g), (21.4.11)

with 4 In the unbroken subgroup H. We also need to work out the
transformation rule for A4. Recall that, according to Eq. (21.4.5), under
these local transformations the linear combinations of gauge fields in
Eq. (21.4.2) transtorm as

Y o Tadg,— Y Tudy, =g [ T4ds—ig '0,g| g7 .
A A A

Multiplying on the left and right by y71(&’) and y(&’) respectively, and
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using Eqgs. (21.4.7), (21.4.8), and (21.4.11), we can write this as

iy TaAl, =h(&g) [iD TaAg, + y“l(é)[g"lﬁug]v(é)] hl(é,g).
A A

(21.4.12)
To see how to cancel the inhomogeneous g~1d,g term, we note that by
differentiating Eq. (21.4.11} and multiplying on the left with its inverse,
we have

yHENOW(E) = (&, gy~ (E)g 0,8l (O, g)
+ HE O (O ENFE g) + ME, g)dh N E g) . (21.4.13)

So to cancel the inhomogeneous term, we must subtract Eq. (21.4.12) from
Eq. (21.4.13):

yHENG(EY— i) Tadly,
A
= h(¢,g) [”‘1(5)%?(5) — iy Tadg| H'(Eg)
A

~ [auh(E, )] K& 8) (21.4.14)

We therefore define new gauge-covariant quantities & and & by

N i Dayxa+ Y it =y TN E(E) —i Y Tadu, (21.4.15)
a i A

with transformation properties

Doy — T Ei— &

ap s in s

(21.4.16)

where

Z @&yxa = h(éa g) (Z @ayxa) h_l(éa g) s (21417]

> &t = hE,g) (Z csz-,u:f) W& g) + i(2uh(E8))H (),
| (21.4.18)

just as in Egs. (19.6.26) and (19.6.27). We can use & to construct fully
covariant derivatives of matter fields

2,0 =0,p + iy t:E,H (21.4.19)
i

as well as higher derivatives like %,2,{, etc. Because of the inhomoge-
neous term in Eq. (21.4.12), we cannot freely introduce A4, or covariant
derivatives like (21.4.19) of Ay, into the Lagrangian. However, it is
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easy to construct a ‘curl’ that transforms covariantly under both local %
transformations and global G transformations. It is

Fiw=)_ Dus (?ﬁl(f)) (@MABv — 8 Ap,— Y CBCDAC,uADv)
B

CcD
(21.4.20)
This transforms under formal local G transformations as
Fa = Fiy = Dan(M(E8)) Frpn (21.4.21)
B

The Lagrangian is therefore invariant under formal local G transformations
if it is constructed as an arbitrary function of B, Day, D, Fapy. and
higher covariant derivatives, that satisfies global H invariance.

Now let us return to reality, and treat A% as a quantum field of the
restricted form (21.4.3). Egs. (21.4.15) and (21.4.20) now become

Y i Dayxa+ Y i6its
a i

=y, — i Y TaDap(y™ (E)ean o s (21.4.22)

ABa
and
FA#V = Z DAB (y_l(é))e(xB ﬁayv s (21423)
Bx
where
F by = Ol v = ol gy = D Cpyo L pu S o (21.4.24)

pd

with %g, s the structure constant of the gauge group, related to the structure
constant of ¢ by

Z Cgep éyce5p = Z %5y5 €88 . (21.4.25)
D 5

We include in the Lagrangian as the kinematic term for this field the usual
Yang-Mills term

1
Lo =—7 Y FunwF o, (21.4.26)
o

in which, by linear transformations of the .&/,, and correspondingly of
the e,4, we have adjusted the coefficient of F,,,# " 10 be just dp.
The linear term in &, is just 0,274 — 0,9/ 4,, S0 Eq. (21.4.26) has the
effect of making .«/,, a canonically normalized vector field. The effective
Lagrangian density is therefore to be taken as a function of §, 2,%, and
Dy that is invariant under global H transformations, plus possible terms
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that conserve ¢ but not G, with coefficients proportional to two or more
factors of the e, .

Now let us see what sort of perturbation theory we can construct out
of these ingredients. We know that the gauge bosons become massless
in the limit e,4 — 0, where they decouple from the matter fields that
experience the spontancous symmetry breakdown. Let us therefore ten-
tatively anticipate that their mass for small e,4 is of order eM, where
e is a typical value of e,4 (the generators T4 being normalized to have
structure constants of order unity) and M is an energy scale typical of the
dynamics that leads to spontaneous symmetry breaking. We shall consider
here a general Feynman diagram involving gauge and Goldstone bosons
of energy or momentum Q < eM, and with all particles of higher energy
or momentum and all heavier matter particles buried in corrections to the
coupling constants in an effective field theory. Our perturbation theory
will be an expansion in powers of e and Q/M. Following the same analysis
as in Sections 19.4-6, the total number of powers of ¢ and/or Q/M in
any such diagram is

v=> Vidi+e—2)+2L+2, (21.4.27)

where V; is the number of vertices of type i; d; and e; are the number
of derivatives and factors of e,4, respectively, in an interaction of type i;
ande is the number of loops. With the constraint (21.4.3), a field A4,
or A4, contributes one factor of e. Inspection of Eq. (21.4.15) shows that
each Goldstone boson covariant derivative %, contributes +1 to d; + ¢;,
and inspection of Egs. (21.4.19) and (21.4.15) shows that each additional
covariant derivative of Z,, contributes another +1 to d; + e;. All allowed
terms in the Lagrangian have d; 4+ e; > 2, so the dominant contributions
are those from tree graphs (L = 0) constructed entirely from interactions
with d; + e; = 2. The only such interactions are the Goldstone boson
kinematic term

L =—13 Fi D, D", (21.4.28)
ab

the Yang-Mills term (21.4.26), and possible symmetry-breaking non-
derivative terms of second order in the e 4.

To sce the physical significance of the field &,, note that the linear term
in Yy, 1s

(QGH)LIN = a,uéa - Z Cual ay - (21.4.29)
o

As shown in the appendix to this chapter, we may always choose a
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‘unitarity gauge’ in which, for all «,

Y Fllaear =0, (21.4.30)
ab

which makes the cross term in Eq. (21.4.28) vanish. To clarify the sig-
nificance of this condition, note that in the special case where all broken
symmetries are gauge symmetries, any x, can be written as a linear
combination of gauge generators and unbroken generators

Xg = ancxfy—a -+ aniri )
o i
= Z Cax (Z €xpXp + Z e"itf) + Z Caili ,
o a i I

and therefore

anaeogb = 6ab .
o

Contracting Eq. (21.4.30) with ¢,;, we see then that &, = 0; there are no
Goldstone bosons at all in this gauge. More generally, Eq. (21.4.30) leaves
us with just those Goldstone bosons that do not correspond to gauge
symmetries. Some of these are associated with elements of G that are
broken by the gauge interactions, and therefore have masses of second
order in gauge couplings; these are called pseudo-Goldstone bosons.

With ¢ chosen to satisfy the unitarity gauge condition (21.4.30), the
quadratic part of the Lagrangian (21.4.28) is simply

(L¢)quap = — Z F0u8al0"Ep — 4 tap il ausd g" (21.4.31)
B
where
pag =Y Fiyewepy . (21.4.32)
ab

This has two important implications. First, we note that £, may be
expressed in terms of a canonically orthonormalized field n,, as

Z T (21.4.33)

where Fy, is the positive square root of the positive matrix F2,. This
shows that F ;! are the factors analogous to F ! that accompany the
emission and absorption of low energy Goldstone bosons. Second, since
/4, has been defined to be a canonically normalized vector field, Eq.
(21.4.31) shows that ,ugﬁ is the square of the vector boson mass matrix.
Eq. (21.4.32) is a universal formula for the vector boson mass matrix,
valid to second order in the gauge couplings but to all orders in all other
interactions. By using Eq. (21.4.1) in Eq. (21.1.7), it is easy to see that our
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previous result Eq. (21.1.7) is a special case of Eq. (21.4.32), with
Fay == (Xahun(Xp}mitmv1

nml

Eq. (21.4.32) may also be understood on the basis of the continuity
arguments outlined (in a somewhat different notation) at the end of
Section 21.1. It guarantees that the effects of gauge boson exchange that
survive in the limit of zero gauge coupling are the same as the effects that
would have been produced by Goldstone boson exchange if there were no
gauge coupling.

In general, we cannot calculate the F ‘fb matrix, but we do know that it
must be invariant under the unbroken subgroup H, in the sense that

> [Cibngr + CieaFiy| =0.
d

This condition allows us to put useful constraints on the gauge boson
masses (21.4.32).

As an example, consider the case of the electroweak gauge group
SU(2) x U(1), spontaneously broken to the U(1) of electromagnetism.
The three broken symmetry generators x, can be taken as the three
generators of SU(2) (called t;, 12, t3 in Section 21.3), without the coupling
constant factor g, and the one unbroken symmetry generator ¢ can be
taken as the charge g, without the factor e. That is, the x, and ¢ are
represented on the lepton doublets by the matrices

i:%(1+?5){((1) (1))(? _(;)((1) —(1))}’
=-(01)

The gauge generators are then given by

T =g%, T,=gx3s—1). (21.4.34)

That is, the non-zero coefficients e,, of x, in the gauge generator & , are
€11 =€xn =€33=¢, ey3 =g
Also, since t subjects the three-vector X to a rotation around the three-
axis, this unbroken symmetry requires the matrix F2, to have the non-zero
components
2 _ gl —_ g2 2 _ g2
Fiy =Fy =F¢, Fi;=Fy .

According to Eq. (21.4.32), the mass squared matrix of the gauge bosons
then has the non-vanishing elements

2 2 2 12 2 22
iy =#n = g Fq, H33 =g Fy,
ui, =28 Fy, w,=gFx
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Its eigenvalues are
my = g’F&,  my=(g+gF5, mi=0. (214.35)

To go further, we need a relation between F¢ and Fy. This is provided
if the theory is invariant in the limit g = g’ = 0 under a global symmetry
group G larger than SU(2) x U(1), which breaks spontaneously to a
subgroup H, that includes three-dimensional rotations under which X
rotates as a three-vector. Such an unbroken symmetry would require F 3!;
to be proportional to d,,, and hence

Fe =Fy.

Any such symmetry is known as a ‘custodial’ symmetry. It has the
consequence that mz /my is given in terms of the gauge coupling constants
by the successful formula discussed in Section 21.3

my /my = \/1+¢2/g? = 1/sin8 . (21.4.36)

For instance, in the absence of the gauge couplings, the Lagrangian
(21.3.28) for the scalar doublet ¢ in the simplest version of the SU(2)x U(1)
clectroweak theory may be written

1 1 ﬂ2 A 2
(y¢>)g=g’={) = _5 a;aﬁbn‘a ¢n - _2‘“ ﬁbn‘;’sn - Z(ﬁbnﬁbn) s
where

o1 =Imp*, ¢r=Rept, ¢3=Im¢’, ¢4=Red’.

This is automatically invariant under an ‘accidental’ SO(4) = SU(2) x
SU(2) global symmetry group, which is spontaneously broken by the
vacuum expectation value of Re¢® down to an approximate unbroken
SO(3) custodial subgroup.?” The result (21.4.36) applies even if there is
more than one scalar doublet, because even though in this case the mass
and interaction terms in the scalar Lagrangian will not in general respect
the custodial symmetry, it is only the kinematic term that enters in the
derivation, and this always has the full SO(4) symmetry.

Custodial symmetries can be found in other theories. Consider for in-
stance a theory with no scalar fields, but with new extra-strong vector
gauge interactions,® called technicolor interactions, that act on a new
SU(2)y x U(1) doublet (U,, D,) of ‘techniquarks’ U, and D,, with r a tech-
nicotor index. As long as the left- and right-handed parts of both U,
and D, all transform in the same way under the technicolor gauge group,
the Lagrangian will be invariant in the limit of vanishing electroweak
couplings under the group SU(2) x SU(2) of independent SU(2) transfor-
mations on the left- and right-handed techniquark doublets. According to
the arguments described in Section 19.9, the subgroup SU(2)y consisting
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of simultaneous S U(2) transformations on both the left- and right-handed
techniquark doublets will not be spontaneously broken. It is reasonable
to suppose that the technicolor interactions will produce a spontancous
breakdown of SU(2) x SU(2) to SU(2)y, just as color interactions led
to a spontaneous breakdown of the chiral SU(2) x SU(2) symmetry of
quantum chromodynamics (for vanishing 4 and d quark masses) to its
isospin subgroup. Under the unbroken SU(2)y symmetry the electroweak
generator X or  rotates as a three-vector, leading again to the relation
F- = Fy, and the consequent successful prediction of the relation between
the W and Z masses.

The technicolor idea is attractive, because it provides a natural mech-
anism for breaking the electroweak symmetry at a characteristic scale
which is very much smaller than what is often supposed to be the fun-
damental scale of physics, generally assumed (as in string theories) to be
of the order of the Planck mass, or about 10!® GeV. It is only necessary
to suppose that just below the fundamental scale there is an unbroken
gauge group consisting of the SU(3) x SU(2) x U(1) of the strong and
electroweak interactions, plus a technicolor gauge group, all with compa-
rable small coupling constants. If the technicolor gauge interactions are
asymptotically free the technicolor coupling like the QCD color coupling
will increase slowly with decreasing energy, becoming strong at an energy
much less than the fundamental scale. This energy where the technicolor
coupling becomes strong would set the scale for the parameters F, that
appear in our formula, Eq. (21.4.32), for the gauge boson masses, and
would therefore presumably be of the order of 300 GeV. Since the increase
of coupling with decreasing energy is logarithmic, a moderate difference
in the beta-functions for technicolor and color can easily give rise to the
three orders of magnitude difference between the energy scales where color
and technicolor forces become strong.

Unfortunately, although technicolor provides a very attractive picture
of the spontaneous breaking of SU(2) x U(1), it does not by itself offer a
mechanism for giving masses to the quarks and leptons. For this reason it
has been suggested to add additional ‘extended technicolor’ gauge interac-
tions with transformations that link quarks and techniquarks.>! Such the-
ories have potential problems with flavor-changing neutral current weak
interactions, and though these problems may be surmounted, the added
complications reduce their attractiveness. The question of elementary
weakly coupled scalars versus dynamical symmetry breaking remains open.

21.5 Electroweak-Strong Unification

We saw in Section 15.2 that a gauge theory will have an independent
coupling constant for each simple or U(1) subgroup of the gauge group.
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Thus the electroweak theory which is based on the gauge group SU(2) x
U(1), has two independent couplings, g and g’. In order to reduce the
number of free parameters it was suggested3? that the SU(2) x U(1)
gauge group might be embedded in a simple SU(3) gauge group, which
would give g’ = g/+/3, but this has been ruled out experimentally. After
the advent of quantum chromodynamics, theorists confronted a gauge
group SU(3) x SU(2) x U(1), which has three independent gauge coupling
constants: the coupling g; of quantum chromodynamics, and the couplings
g and g’ of the electroweak interactions. To reduce these to just a single
free parameter, it was proposed to embed SU(3) x SU(2) x U(1) in various
simple Lie groups:* SU(4) x SU(4),** SU(5),* or S0O(10).3 Such models
are often known as grand-unified theories.

Fortunately, the consequences of these and a large class of other models
for the ratios of the SU(3) x SU(2) x U(1l) coupling constants are inde-
pendent of the details of the individual models.?® This class of models
is characterized by the fact that the observed generations of quarks and
leptons are the only fermions in the models, or at least the only fermions
that are not neutral under SU(3) x SU(2) x U(1).

As shown in Section 15.2, for any simple compact Lie group there is a
conventional choice of generators T, with totally antisymmetric structure
constants, which in each reducible or irreducible representation D satisfy
the normalization condition:

Tr{T,Ts} = Npdyg . (21.5.1)

We are assuming that all left-handed fermions form n, generations:

(), ), (),

-

€R HURr TR ,
(a), (5), (5)
d /], S /L b/, ’
R R ir ,
dr SR br

The SU(3) generator lgid; has eigenvalues: + ig; for the red quark
doublets and the white antiquark singlets; — ig; for the white quark
doublets and the red antiquark singlets; and zero for all other left-handed

* The group SU(4) x SU(4) is made simple by inclusion of a discrete symmetry operator
that interchanges the two SU(4)s.
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fermions; so its square has the trace
Tr( 1geds)? = dng x ( 1go) + dng x (— 1g5)* = 2n,g? . (21.5.2)

The SU(2) generator t3 has eigenvalues: g for the red, white, and blue
quarks of charge % and the neutrinos; — ig for the red, white, and blue
quarks of charge — ! and the charged leptons; and zero for all other

fermions, so its square has the trace
Tr(13)* = [3ng +ngl X [(18)° + (— 18)°) = 2n,g”. (21.5.3)

Finally, the U(1) generator y = t3 — ¢ has eigenvalues: lg’ for neutrinos
and charged leptons; —g’ for charged antileptons; — !g’ for quarks; 2g’
for antiquarks of charge — %; and — g’ for antiquarks of charge + i, so
its square has the trace

Try? = 2n,( 18" + ng(—g) + 6ng(— 4¢') +3ng( 3¢)° + 3ng(— 1g')’
= p,g7. (21.5.4)

Eq. (21.5.1) requires the traces (21.5.2)-(21.5.4) to be all equal, so in this
class of models the embedding of SU(3) x SU(2) x U(1) in a simple Lie
group imposes the coupling constant relations

g?=g*= 347 (21.5.5)

Now, Eq. (21.5.5) is in gross disagreement with the observed values
of the coupling constants. The ratio g’?/g? = $ implies an electroweak
mixing angle with sin” @ = g2 /(g% +g?) = 1, while the experimental value
is sin?@ = 0.231. Even worse, the strong coupling gf is of course much
larger than g? or g%

The solution3 to this problem is that coupling-constant relations like
Eq. (21.5.5) apply only to the couplings measured at an energy scale
comparable to the typical mass*’ M of the gauge bosons that become
massive in the spontaneous breakdown of the simple gauge group to
SU(3) x SU(2) x U(1). If the energy E at which the couplings is measured
is very much less than M, then there will be large radiative corrections
proportional to In{M /E).

As emphasized in Chapter 19, there are no large logarithms in the
relation between couplings measured at nearby energies p and p — dy,
so by integrating this relation from M down to E we can calculate the
couplings at energies £ <« M without encountering large logarithms. For
this to be done it is only necessary that the couplings should stay small
over this whole range. For the SU(3) x SU(2) x U(1) couplings with n,
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fermion generations, Eq. (18.7.2) gives™

d g (11 _hg
nsw =58 (5-%). 21.56)
d g1 on
ﬂd—ﬂ"g(ﬂ) = T (g - ?) ’ (21.3.7)
d , g%/ Sn
u@g (1) = 42 (— 5 ) : (21.5.8)
The solutions of these equations are
1 1 1 4n M
e — 11—J)1n(——) \ 21.59
giu) gi(M) 8n? ( 3 u ( )
1 1 1 /22 d4n, M
= — — -t — 21.5.
o ronwe o) @S
1 1 1 ( 20ng> (M )
= — — In{f—] . 21.5.11
g?(u) g*M) 8r? 9 i [ )
Also, Eq. (21.5.5) should be interpreted to mean that
g(M) = g’ (M) = g (M). (21.5.12)

We can therefore eliminate the couplings (21.5.12) and the number of
generations by subtracting Eq. (21.5.10) from Eq. (21.5.9):

1 1 11 M
— = — In (—) 21.5.13
o 2w #e "\, (21>.13)
and by subtracting 3/5 of Eq. (21.5.11) from Eq. (21.5.10):
1 3 {1 M
— = ——In (q) . 21.5.14)
20 g 2™\ (21514

Taking the ratio of these two cquations gives a formula for sin’f =
g?/(g* +g”):
1 5¢(mgz)

in’f = — : 51
sin g + 9¢2(mz) {21.5.15)

™" The second term in the brackets in Egs. (21.5.6) and (21.5.7) is given by Eqs. (18.7.2) and
(18.7.3) as —ny /6, where ny arc the numbers of fermions in the defining representation
of the respective SU(N) gauge groups. But this was caiculated under the assumption
that left- and right-handed fermions are in the same representation of the gauge group.
If we count only left-handed fermions (and antifermions), then the second term in
the brackets in Eqs. (21.5.6) and (21.5.7) should be —n;/12. For SU{(3) there arc
two left-handed quark triplets and two left-handed antiquark triplets per generation,
so ny = 4n,, while for SU(2) there are three left-handed quark doublets and one
left-handed lepton doublet per generation, so again ny = 4n,. For U(1), the beta-
function is g'/24n’ times the sum of the squares of the U(1) charges for left-handed
fermions and antifermions (compare Eq. (18.2.38)), which according to Eq. (21.5.4) is
(g'/24n*) x (10n,g"/3).
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In this formula we have set u equal to the typical energy of the processes
used to measure sin’ 0, that is, u = mz. This has the advantage that we will
be using the renormalization group equations (21.5.6)—(21.5.8) only above
mz, where they are not strongly affected by the spontaneous breakdown
of SU(2) x U(1). Egs. (21.5.13) and (21.5.14) can also be combined to give
a formula for the unification scale M:

MY\ 4n? 8e?(mz)

mz  3g2(my)

where again, to avoid the effects of ¢lectroweak symmetry breaking on the
renormalization group equations, we have taken y as of order mz.

We saw in Section 18.2 that the value of e(u) at u = my is given
by e(mz)?/4n = (128.87 + 0.12)~1. This is the charge defined in the
conventional (Gell-Mann-Low) manner, in terms of the vacuum po-
larization. For purposes of comparison with g;, g/, and g, it is bet-
ter to use the coupling defined (as in Section 18.6) by modified min-
imum subtraction: e(my)?/4n = (1279 + 0.1)~!. The greatest uncer-
tainty in Eqs. (21.5.13) and (21.5.14) is in the value of g?(mz). As
discussed in Section 18.7, extrapolation of g; from lower cnergy data
gives g2(mz)/4n = 0.118 + 0.006, while direct measurement from the
rate of Z decay into hadrons gives g2(my)/4n = 0.120 + 0.0025. For
g(mz)/4n = 0.118 and e(mz)*/4n = 1/128, Eqs. (21.5.15) and (21.5.16)
give sin’ 0 = 0.203 and M = 1.1 x 105 GeV.

As mentioned in Section 21.3, there i1s no reason to expect that
baryon and lepton number should be conserved by the suppressed non-
renormalizable terms in the effective Lagrangian that describes physics at
ordinary energies, so we may expect the presence of an (SU(3) x SU(2) x
U(1))-conserving four fermion (three quarks and a lepton) interaction,
with a coefficient that on dimensional grounds would be of order M2,
The proton lifetime was first estimated on this basis, and found to be of
order 103 years.*® Such baryon- and lepton-non-conserving four-fermion
interactions are produced in models like those of Refs. 33-35 from the ex-
change of gauge bosons with masses of order M. More generally, once the
standard model explained why baryon- and lepton-non-conserving pro-
cesses are naturally suppressed, there ceased (0 be any reason to believe
that either baryon or lepton number are exactly conserved.

We have seen that the prediction (21.5.15) comes quite close to the
measured value 0.23 of sin? 8, but the accuracy of the measurements and
calculations has become good enough to make clear that they are not in
precise agreement. The extra particles in supersymmetric theories appear
to remove this discrepancy, and lead to a value of M ~ 2 x 10!% GeV,
about an order of magnitude larger.’%? It is very interesting that this M is
not so very different from the energy 10'® GeV at which the gravitational
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interactions become strong. The larger value of M also has the effect of
increasing the proton lifetime, which is proportional to M*,

21.6 Superconductivity”

Superconductivity is quite different from the elementary particle phenom-
ena that chiefly concern us in this book, but it is worth some consideration
here, both as the earliest realistic example of a spontaneously broken gauge
symmetry, and also as an exceptionally enlightening example of the power
of effective field theories and of the use of topological arguments in field
theory.

A superconductor is simply a material in which electromagnetic gauge
invariance is spontaneously broken.”™ Detailed dynamical theories are
needed to explain why and at what temperatures this symmetry breaking
occurs, but they are not needed to derive the most striking aspects of
superconductivity: exclusion of magnetic fields, flux quantization, zero
resistivity, and alternating currents at a gap between superconductors
held at different voltages. As we shall see here, these consequences of
broken gauge invariance can be worked out, in a manner somewhat like
our treatment of soft pions, solely on the basis of general properties of
the Goldstone mode.*

The action for any system will be invariant under gauge transformations,
which in cgs units take the form

Ay(x) = Au(x) + 8,A(x) (21.6.1)
¥n(x) = exp (ignA(x)/R) pu(x) (2162)

where A(x) is arbitrary, and g, is the electric charge destroyed by field
pu. All charges are assumed to be integral multiples of the ¢lectron
charge —e, so this group is compact: the phases A and A + 2n/i/e are
regarded as identical. This symmetry group is assumed to be broken
in a superconductor by non-vanishing expectation values of operators
carrying charge —2e (such as products of two clectron fields), so there

* This section lies somewhat out of the book’s main line of development, and may be
omitted 1n a first reading.

" This is not the way that most experts have historically thought about superconduc-
tivity. Early phenomenological theories were known to violate electromagnetic gauge
invariance, but this was regarded as more annoying than enlightening. Broken sym-
metry is never mentioned in the seminal paper by Bardecn, Cooper, and Schrieffer’’
that first gave us a microscopic theory of superconductivity, Anderson®® subsequently
stressed the important role of broken symmetry in superconductors, but even today
most textbooks explain superconduclivity in terms of detailed dynamical models, with
broken symmetry rarely mentioned.



21.6 Superconductivity 333

is an unbroken Z, subgroup, consisting of gauge transformations with
A=0and A = nh/e

We introduce a Goldstone boson field ¢(x) by writing all charged fields
as

yn(x) = exp (igad(x) /) Palx) (21.6.3)

The field ¢(x) parameterizes the coset space U(1)/Z,, and so is given the
gauge transformation property

d(x) — d(x) + A(x) . (21.6.4)

Because ¢(x) parameterizes U(1)/Z, rather than U(1), we must identify
d(x) and ¢(x) + nhife. All the §,(x) are gauge-invariant, and so when
integrated out leave the Lagrangian as a gauge-invariant functional of
¢ and A* alone. It follows that the Lagrangian for the Goldstone and
electromagnetic fields may be written as

L=—! / BxF o F* + Ly [A, — 0ud] (21.6.5)

where Ly is an imperfectly known functional. The e¢lectric current and
charge density here are

dLsg
= 6.6
oL oL
) = —— = - 21.6.7
(x) 5 AY%(x) Sp(x) ( )
The equations of motion for the Goldstone boson field are then
a 6L_q (SLS . 5Ls (21.6.8)

G15hsx)  0b(x) " SA(Y)’

which in light of Egs. (21.6.6) and (21.6.7) is equivalent to the conservation
law of electric charge

vV-J+ %JO =0. (21.6.9)

Now let us see how this formalism explains the remarkable properties

of superconductors. About Ly we will only need to assume that the system

is stable in the absence of Goldstone or external electromagnetic fields,

so that the energy is at least at a local minimum at 4, = 8,¢, with
non-vanishing second derivatives with respect to A, — J,¢.

One immediate consequence is that, deep in a large superconductor
where boundary conditions are unimportant, the ¢lectromagnetic field is
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a pure gauge:
Ay =duh, (21.6.10)

so that in particular the magnetic field must vanish. This is known as
the Meissner effect. 1t is possible to be a little more gquantitative about
what we mean by ‘deep in a large superconductor.” Since the energy is
a minimum when Eq. (21.6.10) is satisfied, for small values of |A — V|
it must be of order |A — Vp|>L?/A%, where A is some length depending
on the nature of the material, and L? is the superconductor volume. If a
magnetic field of order B penetrated the superconductor, then we would
have |A — V¢| of order BL, so the energy cost in allowing the magnetic
field into the superconductor would be of order B2L?/A%. On the other
hand, the energy cost in expelling a magnetic field B from a volume L*
is of order B*L?. Hence a weak magnetic field will be expelled from a
superconductor if B2L3/4% > B2L3, or in other words if L > A. For this
reason 4 is known as the penetration depth of the superconductor.

The same energetic considerations tell us that for any superconducting
material, there is a critical magnetic field, above which superconductivity
is extinguished. The existence of superconductivity at zero magnetic field
means that the material in its normal state has an energy per unit volume
which is higher than that in the superconducting state, say by an amount
A. When a superconductor with linear dimensions much larger than 4 1is
placed in a magnetic field B, the magnetic field is expelled from most of the
material, at an energy cost per volume of B?/2. Hence it is energetically
favorable for the material to be in the superconducting state if and only
if the magnetic field 1s below a critical value

B, =+2A. (21.6.11)

(This is for uniform superconductors. As we shall see below, for cer-
tain kinds of superconductor it is possible to maintain superconductivity
throughout most of the material for magnetic fields in a finite range above
B. by the formation of narrow vortex lines with normal metal at their
cores.) A magnetic field B < B, will penetrate a superconductor to a depth
A, but this does not extinguish superconductivity in this layer; indeed, as
shown by the field equation V x B = J, it 1s in this surface layer of the
superconductor that electric currents can flow.

Now consider a thick superconducting wire, with thickness much larger
than A, bent into a closed ring. We can draw a closed contour % running
deep inside the wire, along which |A — V¢ must vanish. This does not
mean that either A or ¢ vanishes on this contour, but we do know that
1n going around the ring ¢ must return to an equivalent value, and can
therefore only change by an amount nnfi/e, with n a positive or negative
integer or zero. It follows then by Stokes’s theorem that the magnetic flux
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through the area &/ surrounded by € is subject to the flux quantization
rule

/B-dS=?{A-dx=?€V¢'dx=@‘ (21.6.12)
o JE ¥

e

The electric current that maintains the magnetic flux (21.6.12) flows in
a layer of thickness A just below the surface of the superconducting wire.
The quantization of flux shows that this current cannot decay smoothly,
but only in jumps at which the flux (21.6.12) drops by multiples of nli/e,
so there can be no ordinary electrical resistance in the superconductor.

The absence of resistance in a superconductor can be shown in a more
general context than closed rings, by considering time-dependent effects
in superconductors. Note that Eq. (21.6.7) can be interpreted as the
statement that —J? is the canonical conjugate to ¢. The Hamiltonian H
is thus to be regarded as a functional of ¢ and J rather than ¢ and ¢,
with the time dependence of ¢ given by the Hamiltonian equation

0 H

bx) = s e (21.6.13)

Now, the ‘voltage’ V(x) at any point is just the change in energy density
per change in the charge density at that point, so Eq. (21.6.13) gives the
time dependence of the Goldstone boson field as

d(x) = —V(x). (21.6.14)

It follows that a piece of superconducting wire that carries a steady
current, with time-independent fields, must have zero voltage difference
between its ends, because otherwise ¢(x) would have a time-dependent
gradient. A zero voltage difference at finite current is what we mean by
zero resistance.

Now consider a gap between two pieces of superconducting material.
In the absence of any gradients along the surface of the gap, or any vector
potential, gauge invariance requires L; to depend only on the difference
A¢ between the Goldstone boson fields in the two superconductors:

Ljunction = &{F(A({b) » (21615)

where o7 is the area of the junction. Furthermore, we can shift ¢ in either
superconductor by any integer multiple of nh/e without physical effect,
so the function F must be periodic'

F(A¢) = F(Ap + nhn/e) . (21.6.16)

T This function was calculated by Josephson,® who found it to be proportional to
cos(2eAd/h), but this is an approximatc result, while the periodicity is exact.
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A current flows through such a gap, which can be calculated by considering
the junction in the presence of a vector potential A. Gauge invariance
then tells us that in place of A¢, the function F must depend on

AA¢=/dx-(V¢—A),

the integral being taken over a line joining the two superconductors.
Eq. (21.6.6) then shows that the current density is

0L; tion
J= "I — _{F'(A
where fi is the unit vector perpendicular to the gap. We can now take
away the vector potential, and find the current

J = —hF'(Ad). (21.6.17)

If we now suppose that the two superconductors are maintained at uniform
voltages, with a voltage difference AV, then, according to Eq. (21.6.14),
the difference in the Goldstone boson fields will have the time dependence

Ap = —tAV + constant (21.6.18)

Using this in Eq. (21.6.17) and recalling Eq. (21.6.16), we see that the
current oscillates at a frequency

v =¢|AV|/nk . (21.6.19)

This is the ac Josephson effect®® 1t is possible to measure frequencies
and voltages with great accuracy, so this effect provides a very accurate
method of measuring the constant e/%.

As pointed out at the end of Section 19.6, the description of a system
with broken symmetry in terms of Goldstone modes alone becomes in-
adequate when a system is brought close to the point where the broken
symmetry becomes unbroken. Under these circumstances the Goldstone
mode is accompanied with other modes that have nearly zero frequency
in the long-wavelength limit, which together with the Goldstone mode
forms a linear representation, usually irreducible, of the symmetry group,
known as the order parameter. It is plausible to assume that a uni-
form superconductor in slowly varying external fields is described by a
local order parameter, because any non-locality would be characterized
by microscopic distance scales (such as the mean electron—electron spac-
ing) that are much smaller than the scales of distances over which the
clectromagnetic and Goldstone boson fields are assumed to be varying.
For superconductivity there is no doubt about the nature of this order
parameter. The only non-trivial irreducible linear representation of the
group U(1) is a real two-vector y,, or equivalently a Goldstone mode ¢
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and modulus field p, with

w1 + 2 = pexp (2fe¢/h) =y. (21.6.20)

The coefficient of i¢h in the exponential must be 2e/% in order that a gauge
transformation with A = nk/e (and with no smaller A) should leave y,
mvariant. For a nearly uniform time-independent system close to the
symmetry-breaking transition, the order parameter is small and slowly
varying in space, and so the Lagrangian in an external vector potential A
may be approximated (from now on using natural units with # = 1) by

L~ d3x—l(V —2':A)2 Ly — 1 2
5 = 2L Y Pn lelymAYPy ) + s PuPy 43(‘131'11)9!4) ,

(21.6.21)
where ¢ is the Hermitian U(1) generator

0 —i
t‘(i 0)’

and g must be taken positive to give a bounded Hamiltoman. This 1s
the Ginzburg—Landau theory of superconductivity.! It has been derived
by Gor’kov*? from the microscopic theory of superconductivity presented
below, in the case of a short-range potential and a temperature close to
the critical temperature at which the material loses its superconductivity.

In terms of p and ¢, Eq. (21.6.21) becomes
2 2
L, ~ fd3x [—2@2,92 (Vd)—A) + %mzp2 — }‘gp4— %(Vp) } . (21.6.22)
The field equations are then
V x B =420’ (Vp— A), (21.6.23)
Vip=—m’p+gp’ +4*p(Vp — A . (21.6.24)
The U(1) symmetry is broken if these field equations are satisfied for
p # 0, which in a field-free homogeneous material will be the case if
m? > 0, in which case p takes the value (p) = m/ /& The penetration

depth A was defined earlier as the inverse square root of the coefficient of
— L(V¢ — A)?, so here

A= 1 = \/E ) (21.6.25)
462(‘0)2 2em

This is the distance that according to Eq. (21.6.23) characterizes variations
in the magnetic field. On the other hand, variations in the modulus p are
characterized by a distance scale known as the correlation length, given
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according to Eq. (21.6.24) by't

Also, the superconducting state with p = (p) has an energy per unit
volume that is less than that of the normal state with p = 0 by an amount

— %m2<[)>2 — l(p)“ = m4/4g ) (21.6.27)

3

Eliminating the parameters m and g from Eqs. (21.6.25)—(21.6.27), we find
one important approximate relation among the observable quaatities 4, &,
and A:

o1

- 8e2A2E

The modular field becomes important in the dynamics of superconduct-
ing vortex lines. These arise when a superconductor of a certain type is
placed in a magnetic field that is strong enough so that it is energetically
favorable for tubes of magnetic flux known as vortex lines to penetrate
the material.#* (The conditions for the appearance of vortex lines are dis-
cussed below.) By drawing a closed curve € around the tube at a distance
much larger than the penetration depth, where the magnetic field vanishes,
and repeating the argument contained in Eq. (21.6.12), we see that the
magnetic flux through the area .« surrounded by € must be equal to the
change of ¢ around the curve, and hence equal to an integer multiple of
the flux quantum n/e, just as for the flux through a thick superconducting
ring. Where this flux is not zero, there must be a line within each tube
along which electromagnetic gauge invariance is not broken. To see this,
note that if we shrink the curve € into the region of high magnetic field
it becomes no longer true that V¢p = A, but the change of ¢ around the
curve must remain an integer multiple of n /e, and so by continuity cannot
change. Thus we must eventually encounter a line (conceivably of finite
thickness) along which p vanishes, so that ¢ becomes ill-defined. (This is
an elementary example of the sort of topological reasoning we shall use
in Chapter 23.) Near this line we must take both p and ¢ into account as
dynamical variables.

The quantization of magnetic flux shows that a superconducting vortex
line of minimum flux n/e is stable. A vortex line of higher flux cannot
simply disappear, but magnetic flux quantization alone does not prevent
it from breaking up into vortex lines of smaller flux. Bogomol'nyi*** has
shown that vortex lines of flux nn/e with n > 1 are unstable against
breakup into n vortex lines of flux = /e if and only if 4 > &.

(21.6.28)

' The factor {5. is included along with m because at p = {p) the derivative of the
function —m’p + gp® in Eq. (21.6.24) is 2m2.
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For this and other reasons it is convenient to divide superconducting
materials into two classes: type I superconductors (most pure metals, except
niobium) have ¢ > A, while type II superconductors (mobium and most
alloys) have 1 > ¢, The corresponding distinction in the electroweak
standard model is between theories where the scalar mass (analogous to
1/&) is less than or greater than the W and Z masses (analogous to 1/4).

From the definitions of the correlation length ¢ and penetration depth
A, it follows that the modular parameter will rise from zero at the central
line of a vortex to its equilibrium value (p) in a distance of the order of
the correlation length &, while the magnetic field will decay with distance
from the central line in a distance of the order of the penetration depth
A. Hence a vortex solution in a type 1 superconductor with £ > 1 would
consist of a thin inner cylinder of nearly normal metal, within which the
magnetic field drops to zero, surrounded by a much thicker outer cylinder
within which the modular parameter rises to its asymptotic value (p). In
contrast, a vortex in a type II superconductor with 4 > & consists of a
thin inner cylinder of constant magnetic field, within which the modular
parameter rises to its asymptotic value (p}, surrounded by a much thicker
outer cylinder of superconducting material within which the magnetic
field falls to zero. Vortex solutions exist for both types of superconductor
and for any magnetic field, but as we shall now see, it is only in type II
superconductors and in a finite range of magnetic fields that vortex lines
are energetically favored.

Because each vortex line has a cross-sectional area of order n&? within
which the material is in its normal state or nearly so, the extra energy per
volume required to create these vortex lines is of order N mE2A, where A
is the number of vortex lines per area. This vortex density is limited by the
condition that 4" < 1/n&2, since otherwise the cylinders of normal metal
would overlap, and the material would be considered to be in its normal
state. The magnetic field must be expelled from a fraction 1 — A4 '7A> of
the material if 4~ < 1/742, and from the whole material if 4" > 1/72, so
the energy per volume of the vortex state, relative to the superconducting
state in the absence of magnetic fields, is

1 — N 7A? N < 1/mA?

0 W=y (21629)

Wy ~ N rE2A + %BZX{

(Numerical factors like ! and = are kept here to remind the reader of
the origin of these expressions, but should not be taken literally.) For
comparison, the energy per volume of the normal metal exceeds that in the
superconducting state by Wy = +A, and the energy per volume required
to expel all magnetic fields from a superconductor is Ws = B2/2. We can
decide which state is present at a given magnetic field by checking which

of Wg, Wy, or Wy is smallest.
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In type I superconductors we must distinguish between magnetic fields
less or greater than the critical field B, = /2A. Recalling that 4" <
1/m&2, and here ¢ > A, we also have 4" < 1/n42. Hence for B < B,
Eq. (21.6.29) gives Wy > 1B? + A'n(E? — A2)A > Ws, so there can be
no vortex lines. Also, for such fields Wy > Ws, so the material is
superconducting. On the other hand, for B > B, Eq. (21.6.29) implies
that Wy > A[l + A (&2 — A2)] > Wy, so here again there are no vortex
lines. Also for such fields Wy > Wy, so the material is in its normal
state.

In type II superconductors we need to distinguish between magnetic
fields in three ranges: B < B, B, < B < B, and B > B.», where B,
and B, are a pair of critical fields, of order

Bclﬁ\/ﬁf/i, Bczz\/ﬁi/f.

As we have seen, for type II superconductors the only stable vortex lines
are those with the minimum flux? /e, so in a magnetic field B we should
put the number of vortices per area 4" in Eq. (21.6.9) equal to eB/n.
For B < B, we can use Eq. (21.6.8) to show that eB/n < 1/ni2. The
coefficient of the vortex density in Eq. (21.6.29) is therefore the positive
quantity n&?A — 1B%42, so here Wy > Wy, and there are no vortex lines
for B < B.1. Also, for such fields Wy > Ws, so the material is entirely
superconducting. For B > B, Eq. (21.6.28) shows that the vortex density
A" = eB/m is greater than 1/n4?, so in the vortex state the magnetic field
completely penetrates the superconductor, and the energy per volume is
given by Egs. (21.6.29) and (21.6.28) as

Wy = /1A = eBE?A ~ (B/Bo)Wy ~ (Bei /B)Ws .

Hence for B,y < B < B we have Wiy < Wy and W, < Wy, so the
material is in its vortex state. For B > B,y we still have Wy < Wy but
now Wy < Wy, so the vortices disappear and all superconductivity is
extinguished. The ability of type II superconductors with 2 > & to carty
magnetic fields much higher than the critical value B, = /A deduced

* The derivation of flux quantization given above for an isolated vortex line is not fully
applicable here. As we shall see, the separation of thc vortex lines for B > B, is
less than the penetration depth A, so it is not possible (o find a contour ¥ on which
A — V¢ = 0 by simply drawing a circle around the voriex line at a distance from
the vortex much greater than 4. Instead, it is necessary to appeal to considerations
of continuity. (M. Tinkham, private communication.) Suppose we draw an arbitrary
continuous curve between the cenlers of any two vortex lines. As shown below, on
this curve the vector A — V¢ will be very large closc to either vortex, but pointing to
opposite sides of the curve, Thus there is at least one point on each such curve where
A — V¢ = 0. Because A — V¢ is gange-invariant, it must be continuous, so there is a
closed contour % around each vorlex line where A — V¢ = 0.
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earlier is 1mportant in technological applications of superconductivity,
including magnets in high energy accelerators.

The Ginzburg-Landau theory holds only where the material is near
the transition between its normal and superconducting states, so let us
apply it near the center of a vortex line, where p drops to zero. Close
to the center of a vortex line we can ignore its curvature, and assume
cylindrical symmetry. The field A — V¢ is taken to have only an azimuthal
component:

(a- v(p)ﬁ = A(r), (21.6.30)
so that the magnetic field has only an axial component:
B, = (v X (A — v¢>))z = A'(r)+ A(r)/7 . (21.6.31)

while p is a function only of . The structure of the vortex line 1s thus
governed by the pair of coupled differential equations:

pH(r)A(r)
iHp)?
p’(r)
(p)?

When r is small compared with both the correlation length £ and the
penetration depth A we can neglect the terms in Egs. (21.6.32) and (21.6.33)
proportional to 1/£% and 1/42, and find the simplified equations

Ay +r A ) —r Ay = (21.6.32)

" 1 1
o' () +r () + 282 (p(r) — ) = 4ezp(r)A2(r) . (21.6.33)

A"+ A /r— A/ =0, (21.6.34)
o+ o' /r=4’A%p . (21.6.35)
Eq. (21.6.34) has the general solution
Br C
= — + — 21.6.
A =—>+5—, (21.6.36)

where B is a constant that according to Eq. (21.6.31) is the magnetic field
along the vortex line, and C is a real constant that is so far arbitrary.
Using this in Eq. (21.6.35) shows that for r — 0, the solution for p(r) is a
linear combination of r/! and r~/CI, The order parameter p exp(2ie¢) must
be a smooth function of position, so we can conclude that |C| is a positive
integer £, with p oc v/ and ¢ = +/¢p/2e+ constant for r — 0. Note
that this solution for ¢ is consistent with Eq. (21.6.36) with C = +/; the
azimuthal component of V¢ approaches +//2er, while analyticity requires
the azimuthal component of A to vanish as r — 0. By a non-singular
gauge transformation we can arrange that ¢ = +/¢/2e everywhere, so
by the same reasoning as in Eq. (21.6.12) the magnetic flux carried by a
single vortex line in a superconductor much larger than the penetration
depth is +n//e. We sce not only that, as expected, the order parameter
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vanishes at the center of the vortex line, but that it vanishes with a power
of r equal to the magnitude of the magnetic flux in units of n /e.

This solution for ¢ obeys the ‘quantization’ condition that ¢(271) — ¢(0)
is an integral multiple of /e, which implies the quantization of magnetic
flux. In the theory of Goldstone boson and electromagnetic fields based on
Eq. (21.6.5) this condition on ¢ has to be imposed by hand on the solution
of the field equations, while the Ginzburg-Landau equations ‘know’ about
this condition, because these equations are based on an appropriate choice
of order parameter.

% % %

Although the most dramatic properties of superconductors can be de-
rived directly from the assumption that electromagnetic gauge invariance
is spontaneously broken, a microscopic theory of superconductivity is
needed to understand how and when this occurs. The derivation of the
microscopic superconductivity theory of Bardeen, Cooper, and Schrieffer?”
has been recast*#4 in the language of effective field theory, using power-
counting methods similar to those that we have used here in Sections
19.5 and 21.4. For this purpose, suppose we integrate out the degrees
of freedom associated with the ions in a superconductor,* leaving only
an effective interaction among electrons. For simplicity, we shall work at
zero temperature, and at first assume no external field, so that the La-
grangian is mvariant under translations and the time reversal operation
T. We shall also assume spin-independent forces, so that the Lagrangian
is invariant under SU(2) transformations that act on spin indices alone,
but we shall not need to assume invariance under rotations acting on
momenta. Electrons are then characterized by a momentum p and spin
index s = £ 4, and are described by annihilation and creation operators

2
a(p, s,t) and a’(p,s,t), with a Lagrangian of form

0
L= —Zfd3p a’(p,s, f)[— 'ﬁ +E(p)] a(p, 5,1)

—+‘ Z fdgpl d%pz d3p3 d3p4 V.S‘1 32 S}S4(pls p2: p37 p4)

51572 53 54

x al(py,s1,t)a’ (P2, 52, 1) a(p3, 53,1) A(Pg» 52, 1)0° (P1 + p2 — P3 — pa)
+ o, (21.6.37)

# Strictly speaking, it is not possible to integrate out all degrees of freedom except
clectrons, because the phonon is a Goldstone boson whose frequency vanishes for
very large wavelengths, like a massiess particle in relativistic theories. However those
effects of phonon inleractions that cannot be represented as effective clectron—electron
interactions are suppressed by inverse factors of the ion masses.
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where * - represents terms with six or more creation and annihilation
operators, and E(p) is the electron energy minus the chemical potential.
For free electrons, E(p) = p°/2m, — Ey where Er is the energy of electrons
at the Fermi surface. Interactions will inevitably change this function,
but it is natural to expect that since E(p) vanishes for free electrons at
momenta p on the sphere |p| = ./2m,Ey, in the presence of interactions it
will still vanish on some closed Fermi surface % :

E(p)=0 for p on & (21.6.38)

For reasons that will become apparent, we shall integrate out all electrons
except those within a thin shell of thickness x around the Fermi surface.?
(Later we will be able to remove the cut-off k¥ by introducing a renormal-
ized electron—electron potential.) The remaining degrees of freedom are
then electrons with momenta of the form

p=k+iky, (21.6.39)

where k is on the Fermi surface &, n(k) is the unit vector normal to the
surface at k, and 0 < / < k. For such momenta,

E(p) = vr(k)/, (21.6.40)
where

vr(k) = (k) - (VpE(p))

The electron propagator in wave number—frequency space is then

1
o — vp(K) + e

e (21.6.41)

(21.6.42)

Now let us consider how a general connected matrix element scales
with k as k — 0. We have an integral over frequencies for every loop,
and a propagator for every internal line, so the integral of the product of
propagators over all frequencies will have an / dependence /X1, where L
is the number of loops and I is the number of internal lines. To count the
number of / integrals, it is important to note that for generic momenta
the delta-function in the interaction term in Eq. (21.6.37) constrains the
ks, not the /s. (For instance, if momentum conservation constrains the
momenta p; and p; of two electron lines to have total momentum P = 0,
then the integral over p; runs over the intersection of two closed shells of
thickness x, one centered on P and the other on zero. The intersection
of these shells is a closed ring of thickness x, so we have to integrate

? For forces that are not spin-independent, there are two Fermi surfaces, one for cach
eigenvalue of the matrix E¢(p), and we integrate over all electrons in each spin
cigenstatc cxcept those within a thin shell around the corresponding Fermi surface.
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over one k-component which gives position around the ring, and two £s
which give position within the cross section of the ring.) Thus there are |
integrals over /s, and since the integrand goes as /-1, the matrix element
will vary as

M oc kb, (21.6.43)

The number of loops is related to the number of internal lines and the
numbers V; of vertices of type i by the familiar relation

L=I-)Vi+1. (21.6.44)
i

Also, the number of internal lines is related to the numbers of vertices
and the number E of external lines by another familiar relation

A +E=Y mV, (21.6.45)
i

where n; is the number of electron operators in the interaction of type i
Eliminating I from Eqs. (21.6.44) and (21.6.45) gives

L=1—{E+ {) Vin—2). (21.6.46)

Terms in the action with n; = 2 just serve to change the function E(p),
and hence to shift the Fermi surface. True interactions have n; > 2, and
so 1t appears from Eqs. (21.6.43) and (21.6.46) that they yield terms in the
matrix element that make relatively negligible contributions for x — 0.
In the language of Section 18.5, this would mean that all interactions
are Irrelevant operators. This is why electrons near the Fermi surface in
normal metals behave pretty much like free particles.

There is, however, an exception to this conclusion. If a pair of electron
lines disappears into the vacuum, then translation invariance requires the
momenta of these two lines to be equal in magnitude and opposite in
direction, so if one momentum is near the Fermi surface, then the other
1s also. (Time reversal invariance requires that E(p) is even in p, so even
though the Fermi surface is generally not spherical, it is still true that if
E(p) = 0 then E(—p) = 0.) The integral over the momentum p of one
of these lines is then over a shell of thickness x, or in other words over
two ks and one /. For each interaction involving two such lines, we have
one rather than two integrals over /s, so that instead of reducing the
order of magnitude of the matrix element by a factor x as indicated in
Egs. (21.6.43) and (21.6.46), such an interaction has no effect on the order
of magnitude of the matrix element. In other words, interactions involving
four electron operators become marginal rather than irrelevant if they act
between electron lines that eventually disappear into the vacuum.
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To see the consequences of this exception, it is convenient to use a trick,
known as the Hubbard-Stratonovich transformation,*> that was mentioned
briefly in Section 10.7. We are now going to include slowly varying external
electromagnetic fields, so it will be convenient to work in coordinate space.
Gauge invariance tells us that the Lagrangian (21.6.37) then becomes

fd’ix P, (x t [— iai — Ao(x, 1) + E( — iV + A(x, t))] 1Ps(x, 1)

30 Bo Bo B
+ Z fd X1 d7xpd7x3d7° x4 Vs 5, 53 50(X15 X2, X3, X4)

51 82 53 54
X IPSI (Xl'} t) Ip;‘z (x27 t) 1IDS3 (X3, t) Ip54 (X4: t) » (21647)
where
wa(x.1) = (2m)~? [ &p explip - X)a(p,s. 1) (21.6.48)

We are now dropping terms with more than four electron operators,
because they are all irrelevant. To this Lagrangian we add the term

AL = - fd;x d*xs d3x3d%x4 Z Visysyspsal X1, X2, X3, X4)

81828254

x [Wh, (x2, %1, ) = ] (x1, ], (%a 1)
X [Wogsa (X3, Xa, 1) = gy (X3, 1) s, (X, 0)] (21.6.49)

and do path integrals over the new ‘pair’ field W(x, s, X/, 5/, t) as well as the
electron field . This is allowed because AL is quadratic in the pair field,
with a field-independent coefficient of the second-order term, so, according
to the appendix of Chapter 9, the integration over W (X, X, t) in path
integrals just has the effect of setting W,y (x, X, t) equal to the stationary
point W,y (x, X, t) = (X, t) py(X', t) of the Lagrangian, at which AL = 0.
This additional term is chosen so that the terms in L+ AL that are quartic
in electron fields cancel, leaving only terms quadratic in these fields:

L+ AL
= _Z/d*x lps(x,t){ :5’1 — Ag(x, 1) +E(— iV+A(x,t))}ws(x, t)

3
Z / d X1 d xzd X'gd X4 VSI 8253 ﬁ4(xls X2, X3, X4)

$152 53 54

x |}p51 (X1 * t) IPSQ(X% t) lI"‘l354 (X%, X4, t) + lIJS“)S] (x27 Xl: t)‘Ps; (X3a t) 1[’54(7‘41 I)

5281

— W (X2, Xy, 1) Wy, (X3, Xa, t)] : (21.6.50)
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Now to the point. We have shown that the interaction V' is irrelevant
except where it acts on a pair of electron lines that disappear into the
vacuum. When we calculate the quantum eflective action I'[¥] in the
presence of an external, slowly varying pair field W (x, X/, 1), this means
that we drop all diagrams except those that become disconnected when
we slice through any internal ¥ line. But the general definition of the
quantum effective action requires that we drop all diagrams that do
become disconnected when we slice through any internal line. Therefore
we must not include any internal ¥ lines at all. Because the electron field
enters quadratically in Eq. (21.6.50), the only graphs that survive when
we integrate out the electron field are a one-vertex graph arising from the
last term in the square brackets in Eq. (21.6.50), plus a one-loop graph
given, by the same reasoning as in Section 16.2, by the logarithm of the
determinant of the coefficient of the terms quadratic in electron fields:

1
=5 3 [ di [ Bx, Pz B3 dPx4 Vi, 5,50 50(X1, X2, X3, Xa)

51 87 ¥3 54
X IPT (XQ: Xl: I) ‘{’5354(}(3: X4, t)

828

—;ln Det ( ;T —iT ) + constant . (21.6.51)

where 4 and B are the ‘matrices’:

¢
Ay xst = 55’5{ — i — Ao(X,t) + E( — iV 4+ A(x, t)) }53(7{ —x)5(f — 1),

ot
(21.6.52)
Byt xot = _AS’S(X: X, t)a(t; —1), (21.6.53)

and A is the gap function:
1
Avs(X, %, 1) = 3 f Py By VooolX, X7, ¥) Pes(X, X, 1) . (21.6.54)

(Here and below, we ignore an additive constant in I' arising from the
modes that have been integrated out.) This is one problem in which
the effective action can be calculated without any assumption about the
smallness of the interaction in the Lagrangian.

In order to simplify our further discussion, let us now specialize to the
case of a spin-singlet pair field

Yo (xX,x,t)=-Y_.(x,x, ) =PX, X, 1), (21.6.55)

where subscripts + and — stand for spin indices +1/2 and —1/2,
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respectively.?? Using invariance under rotations of spin indices, the com-
ponents of the potential needed here are then

Vit (X, %, ) = Ve (X, %, ) = =V (3, x, )+ Vo4 (X, %, 1)
=2V (X, %, 1). (21.6.56)

Then Eq. (21.6.54) gives
Al (X, x,t)=—A_,(X,x, t) = A(X', x, 1), (21.6.57)
A (X, x, t)=A__(X,x, 1) =0. (21.6.58)

The quantum effective action (21.6.51) is now

] = f dt / By dxy Py Pxa VX1, X2 X3, Xa)

x ¥ (xy, x1, 1) W(X3, X4, 1)
N4 2 )

—iln Det ( B —T

(21.6.59)

where

p—— { 9 Ao(x,t) + E ( — iV + A(x, r)) }53(3(" —x)8(t — 1),

ot
(21.6.60)
Bovse = —AX, %, )5 — 1), (21.6.61)
and
AKX, x, t) = f Lydy VX, %y, )Py, v, t). (21.6.62)

Let’s first use these results to consider the translationally invariant case,
with no external electromagnetic fields. Then the pair and gap fields can
be expressed as Fourier transforms

YK, x) = f &Pp PX () | (21.6.63)
A, x) = (21) / Pp XA (21.6.64)
and the electron—electron potential appears here in the form

. lf. _ - . _
/d3x1 AP xy Bx3 dPxy e 17X PR e w0 X3 X4)

=9, V(p.p), (21.6.65)

% In liquid He? the non-vanishing components of the pair field form a spin triplet, with
components ¥, =W, ,, ¥y = ﬁ‘{q_ = \/i‘l‘,h Y =%¥__.
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where ¥ 4 is the spacetime volume

¥, = f Bx f dt 1. (21.6.66)

By going over to wave number—frequency space, the ‘matrices’ (21.6.60)
and (21.6.61) become diagonal, and the calculation of the determinant
becomes trivial. The effective potential V[¥] (not to be confused with
the electron—electron potential) was defined in Section 16.1 as minus the
effective action per spacetime volume:

VI¥] =-T¥]/74
__ f Epd’y ¥V, p)¥(p)

3 |A(P)|2
2 R fdcu &p In (1 szQ(pHie) (21.6.67)

with
AR =— [ @) VD) D). (216.68)

(The ie term can be inferred from the Feynman rules for the electron
loop graphs, and as shown in Section 9.2, it ultimately arises from the
conditions on the electron field at t — +o00.) Wick rotating, integrating
over w, and expressing ‘¥ in terms of A, this becomes

Vil = /d‘pd‘p’A(p)V (¥, PIA®)

- (ZRP [@p[/E®+180P - E@) . 21669

As we saw in Section 16.1. the field equations are just the condition that
the effective action is stationary, which in our case yields the famous gap
equation for the equilibrium gap function Ag(p):

o V[A]
oA*(p)

0 =

A=Ay

227 JEX(p) + |Ao(p)?

or, in a more familiar form,

3 ¢ ps f)AO( ) . 216 70
Aolp) = 2(2?1')‘/ \/52 p) + |Ao(p)2 Lo

All along, all integrals over momenta have been implicitly understood
to be limited to momenta of the form (21.6.39) within a thin shell of
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thickness x around the Fermi surface. The effective potential (21.6.69) is
thus

VIA] = —i fy P2k A KW (K, KAK)

_(2;:)3 fox fy e[\ 7203 ) + AR — Cop)] . (2L671)

The effective potential is now to be understood as a functional only of the
gap function A on the Fermi surface.

Since x is arbitrary, the potential V'(k/, k) must be given a xk-dependence
such that V[A] is k-independent. Most applications** of renormalization
group methods to superconductivity have followed the Wilson approach
outlined in Section 12.4, deriving a differential equation for the dependence
of V(K',k) on x, and studying the behavior of its solutions for k — O.
For the sake of flexibility it is useful to note that one can just as well
adopt the approach of Gell-Mann and Low, and introduce a renormalized
electron—electron potential?

2VA]
5A* (k"Y6A(K)

—1 ./ —
Ve (K. k)=— , (21.6.72)

Alk)=A(k)* =4

where p is a sliding renormalization scale, like that introduced in Section
18.2. By expressing the original electron—electron potential in terms of Vi
Eq. (21.6.71) becomes

VIA] = — fy Pkl A KWK, K)AK)

_ﬁ fo “ar fy Pk [\/ﬁug(kw A2 — for(k)

Alk))? 12| AK)[2
2(£203(k) 4+ p2)172 T 4202 (k) + p?)P?

] . (21.6.73)

The integral over £ now converges if we take the cutoff « to infinity, and
yields

ViA] = — / Pl K A*(k’)V“(k’,k)A(k)

2(27:)3 / Tk UF(k) [m (@%)—1] . (216.74)

The condition that V[A] be stationary at A = Ay yields the gap equation
in the more useful form

Ao(k) =

2yt ! ! ! |A0(kf)'
s )gf K V(& K)or (k)Ao(k)ln( ; ) . (21.675)
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Using this in Eq. (21.6.74) shows that the energy density of the supercon-
ducting state is less than that of the normal state by an amount

_ 2y Aol
A= V(0) — V(Ao) = [ P

Of course the u dependence of the electron—electron potential ¥, must
be chosen to satisfy a renormalization group equation that insures that the
effective potential (21.6.74) is independent of the arbitrary renormalization
scale p:

(21.6.76)

d i, .. 64K —k)
a0 = )
or, equivalently,
i ' . 240t Pty =Yt it
w0 = 5 [d K VK K)o (K VK K) . (216.77)
This can be usefully rewritten in terms of the Hermitian kernel
’ — 1 —1/2 41 —-1/2 '
K. k.k) = TFIE vy C(K)vp (k) V(K k), (21.6.78)
as
d -2
i @K“ =K, . (21.6.79)

The eigenvectors u,(k) of K,(k,k') are then independent of g, while
the eigenvalues take the form 1/In(A,/u), where the A, are integration
constants, like the A of quantum chromodynamics. The potential therefore
takes the form

un(k)u (k')
(An/ )

where we have chosen the eigenvectors to be orthonormal, so that the
completeness relation takes the form

> up(kyup (k) = 6k — k') . (21.6.81)

V(K k) = 2(2n)° v *(k) vy * k")z , (21.6.80)

The effective potential (21.6.74) may then be written as

[ w3 KEIBON k) [ (1001 _ 7
2(2m)’ . vr(K)vr( Ay

(21.6.82)
For a material with local rotational invariance the Fermi surface is a
sphere and the eigenvectors u,(k) are spherical harmonic functions of the
coordinates on this sphere, but Eq. (21.6.82) holds without any assumption
of rotational invariance.

VIA] =
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We can now use this formalism to get an idea of when superconductivity
occurs. The logarithm in Eq. (21.6.82) is large and negative for very small
A, and large and positive for very large A, so as the overall scale of A
increases from zero to infinity, V[A] drops from zero to negative values
and then rises to infinity. It therefore always has a minimum at a non-
vanishing value of A for any electron—¢lectron potential. But this result
is subject to an important qualification. When we take the cut-off x
to infinity, the integral in Eq. (21.6.73) is effectively cut off at Z of order
|A|/vr, while the Fermi surface has a radius of order kr, where 87k3 /3(2n)?
equals the electron number density. Since we have been assuming that
the electrons taken into account here are in a thin shell around the Fermi
surface, this derivation is only valid if |A| < wp, where wp is the Debye
frequency kpup. In particular, in the case of rotational invariance and a
direction-independent gap function, the effective potential reaches a local
minimum for a gap function of the order of A, wave, SO the symmetry is
spontancously broken as long as Agwave <€ wp. Another way of stating
this result is that for s-wave superconductivity, the s-wave projection of
the electron—¢lectron potential (21.6.80) must be attractive if renormalized
at a scale u &~ wp. But it does not matter how strong this renormalized
attractive potential is.

This feature of superconductivity, that a Goldstone boson forms for an
attractive potential however weak the potential may be, is a consequence
of the existence of a Fermi surface, which enhances long-range effects.
In quantum field theories without elementary spinless fields like those
of Section 21.5, we would not normally expect a spontaneous symmetry
breakdown in empty space unless the interactions are sufficiently strong,

Now let us return to the case of an external electromagnetic field. As
usual, we can introduce the Goldstone boson field ¢(x, t) by writing each
charged field of the theory, which here is just the gap field A(x,x/,t)
or equivalently the pair field W(x,x',t), as a gauge transformation with
gauge parameter ¢(X,t) acting on the corresponding gauge-invariant field,
distinguished with a tilde:

Y(x,x',t) =exp ( — (X, t))‘IN’(X, x',t)exp ( — (X, r)) : (21.6.83)

The effective action is then given by using Eq. (21.6.83) in Eq. (21.6.59).
By a gauge transformation, we can then remove the ¢ dependence in
Eq. (21.6.83), provided we replace A,(x) in Eq. (21.6.60) with A,(x) —
dug(x). When the material is not only superconducting but far from
the transition between normal and superconducting states, we may also
integrate out the gauge-invariant degrees of freedom associated with
¥(x,x,t), which simply means that we replace it with its equilibrium
value Wy(x,x',t). The part of the effective action that depends on the
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Goldstone and external electromagnetic fields is then

. o B . o 0
I'[¢p, A] = T'a=0[A] —i In Det [ B T } + i In Det l 0 —oT |
(21.6.84)

where now

Ay xt = |—i ﬂ + eAo(x,t) — e(x, 1) + E( — iV + eA(x,t) — eV(x, t))]

ot
x 83X —x)8(t — 1), (21.6.85)
Byrxt = Do(x —x)0(t' —1) . (21.6.86)

Quantitative properties of the superconductor such as the penetration
depth can be read off*® from the expansion of Eq. (21.6.84) in powers of
Ap(x,t) — p(x,t) and A(x,t) — V(x, ).

Appendix  General Unitarity Gauge

In this appendix we shall show that in general spontaneously broken
gauge theories it is always possible to adopt a ‘unitarity’ gauge in which
the Goldstone boson fields satisfy Eq. (21.4.30):

Y Fiyéuea =0. (21.A.1)
b

Using the exponential parameterization for all groups, we note first that
any element of G, in at least a finite neighborhood of the identity, may be
put in the form

g = exp (——EZ Baff"a) exp (;Z anxa) exp (izum) , (21.A.2)
o a i
with ¢, subject to the linear constraint that for all «

Z 2 Pa Cap = (21.A.3)

This is easy to see when g is infinitesimally close to the identity. Any such
g may be written

g=1+i) ¢hxa+iy 't (21.A4)
a i

with ¢2 and 40 infinitesimal. Equivalently,

g=14+iY GaxXa+iy pti—iy 0.7, (2L.A.5)
i i &
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where 0, is an arbitrary infinitesimal, and

Q‘?a(O) = 052 + Z Baeaa s [ZlAﬁ)
l(0) = )+ e . (21.A.7)

For any given ¢2, we can choose 8, to minimize the positive quantity

S FLba(8)¢s(0) . (2L.A8)
ab

At this minimum, the quantity (21.A.8) is stationary with respect to
variations of 8, so ¢,(0) satisfies Eq. (21.A.3). For ¢, y, and # infinitesimal,
Eq. (21.A.5) is the same as Eq. (21.A.2), so we see that the set of all gs
of the form (21.A.2) (with ¢, satisfying Eq. (21.A.3)) includes all gs
infinitesimally close to the identity. It follows then from continuity that
the same is true of all gs in at least some finite neighborhood of the
identity,
Next, consider the particular group element

g =7(¢) =exp ( > éaxa) (21.A.9)

and write it in the form (21.A.2):

7(§) = exp (—iz Ba(r:).%) )exp( Z#r ) . (21.A.10)

with ¢,(<) subject to Eq. (21.A.3). This just says that the gauge transfor-
mation exp (i Y0 0u(6)T a) transforms ¢, into

o= dull). (21.A.11)

Now dropping the prime, we have thus succeeded in constructing a gauge
in which £, satisfies Eq. (21.A.1), as was to be shown.

Problems

1. Calculate the effective ghost Lagrangian in a ‘generalized unitarity
gauge, with B[f]} given as usual by Eq. (15.5.22), but now where
fa(x) = ipn(X)te)nm{Em(0)) vac, with ¢, real scalar fields, and ¢,
imaginary antisymmetric matrices representing the Lie algebra of
the gauge group. What is the ghost propagator? Is this part of the
Lagrangian renormalizable?

2. What would be the effect in the SU(2) x U(1) electroweak theory if
the gauge symmetry were broken by the vacuum expectation value
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of a field ¢ belonging to a real triplet E,f) = (¢*, ¢V, ¢7) instead of
the usual complex doublet (¢°, ¢)?

. Consider the standard electroweak theory, with a single scalar doub-

let. In one-loop order, calculate the effect of Z° and neutral scalar
exchange on the anomalous magnetic moment of the muon.

What is the lowest-order magnetic moment of the W+ and Z°
particles in the standard electroweak theory?

What would be the effect of the discovery of a fourth generation
of quarks and leptons on the predictions of the unified theories of
strong and electroweak interactions discussed in Section 21.5?

Supposc that several fields with incommensurate values of the
electric charge had nonvanishing vacuum expectation values in a
superconductor. What effect would this have on the properties of
superconductors discussed in Section 21.67
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Anomalies

There are subtletics in the implications of symmetries in quantum field
theory that have no counterpart in classical theories. Even in renormaliz-
able theories, the infinities in quantum field theory require that some sort
of regulator or cut-off be used in actual calculations. The regulator may
violate symmetries of the theory, and even when this regulator is removed
at the end of the calculation it may leave traces of this symmetry violation.
This problem first emerged in trying to understand the decay rate of the
neutral pion, in the form of an anomaly that violates a global symmetry
of the strong interactions. Anomalies can also violate gauge symmetries,
but in this case the theory becomes inconsistent, so that the condition
of anomaly cancellation may be used as a constraint on physical gauge
theories. The importance of anomalies will become even more apparent
in the next chapter, where we shall study the non-perturbative effects of
anomalies in the presence of topologically non-trivial field configurations.

22.1 The =n° Decay Problem

By the mid-1960s the picture of the pion as a Goldstone boson associated
with a spontaneously broken SU(2) ® SU(2) symmetry of the strong
interactions had scored a number of successes, outlined here in Chapter
19. However, this picture also had a few outstanding failures. The most
disturbing had to do with the rate of the dominant decay mode of the
neutral pion, 7% — 2y. It was the solution of this problem that led to the
discovery of symmetry-breaking anomalies.

After integrating out all heavy and trapped particles, we would expect
the effective Lagrangian for n° — 2y to be given by the unique gauge-
and Lorentz-invariant term with no more than two derivatives:

Pryy = gnle"™ P FF,; (22.1.1)

where g is an unknown constant with the dimensions [mass]~!. The
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methods of Section 3.4 can then be used to calculate the rate for 7% — 2y

3 2
I(x® — 2y) = '—"—“f— : (22.12)

One might naively expect g to be of order

e2

&% 8niF,’
where F, >~ 190 MeV is used as a typical strong interaction mass scale,
and a factor 1/8x? is inserted because the graphs responsible for 7% — 2y
would have to include at least one loop. For instance, in 1949, using
the pre-QCD theory of pions and nucleons with interaction Lagrangian
iG.n7 - N2tysN, Steinberger! calcujated that the contribution to g from
triangle graphs with a single proton loop is

_ eanN
B 327r2mN .

This is numerically not very different from Eq. (22.1.3), because the
Goldberger-Treiman relation (see Section 19.4) gives G,y = 2mng4/Fr.

This estimate of the amplitude for n° — 2y leaves out the special
constraints imposed by the SU(2) ® SU(2) symmetry. The electromag-
netic interaction violates most of this symmetry, but at least formally it
has no effect on the U(1) x U(1) subgroup generated by the electrically
neutral generators of SU(2) ® SU(2). Acting on quarks, the infinitesimal
pseudoscalar element of this subgroup has the effect:

(22.1.3)

g (22.1.4)

ou = ieysu , od = —ieysd , (22.1.5)
so that the electric current 1s invariant:
2 1-

o [gﬁy”u — gdy*“d] =0, (22.1.6)

(This argument was made by Sutherland? and Veltman?® before the advent
of quantum chromodynamics, with the proton and neutron in place of
the u and d quarks.) Because the n” is the Goldstone boson associated
with this symmetry, a non-derivative interaction like (22.1.1) can arise
only from the breaking of this symmetry by quark masses, and so must
be proportional to mi oc my, +my. With this in mind, we would expect the
constant g to be suppressed>* by an extra factor m2/m3, :

2 2
€ i,

(In place of my we might have used the chiral-symmetry-breaking scale
2nF, = 1200 MeV discussed in Section 19.3, with little change in our
results). There are also chiral-invariant effective n’yy interactions involying
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the derivative of the n° field. Lorentz invariance requires that these involve
at least two additional derivatives. Using the homogencous Maxwell
equation d,F,; — 0,F,; = —0,;F,, and integrating by parts, we see that
there is only one independent chiral-invariant coupling with just two extra
derivatives, given by inserting a d’Alembertian acting on the =° field in
Eq. (22.1.1). On the pion mass shell this is just the same as an interaction
(22.1.1) with an extra factor mZ, leading to the same estimate (22.1.7). It
was sometimes said that chiral symmetry would forbid the decay 7° — 2y,
but it is more accurate to say that chiral symmetry would make the rate

for this process go as m! instead of m. for m, — O.

The difficulty is that the observed rate for n° — 2y is much larger than
would be expected from Eq. (22.1.7), and is in fact much closer to what
would be inferred from the naive result Eq. (22.1.3). To be specific, from
Eqgs. (22.1.7) and (22.1.2) we would expect a decay rate
m] o?

[(x’ =2y~ ———
43 F2m},

=19 x 108 s71, (22.1.8)

while using Eq. (22.1.3) in place of Eq. (22.1.7) would give

m3 o

I =44 x 10057 2219
43 F2 8 > (22.19)

(7 - 2y) ~
The observed rate is I'(n® — 2y) = (1.19 + 0.08) x 106 s~1, which is in
satisfactory agreement with the naive rough estimate (22.1.9), and almost
three orders of magnitude larger than the ‘improved’ result (22.1.8)! One
is forced to the conclusion that something anomalous here is invalidating
the chiral symmetry that led us to introduce the additional factor m2 /m3,
in g. Similar problems arise in trying to understand the rates of some
other processes, such as #° — y 4.

In 1969 the source of this anomaly was traced by Bell and Jackiw?* to
the violation of chiral symmetry by the regulator that is needed in order to
derive consequences of the conservation of the neutral axial vector current
for one-loop Feynman diagrams. Their result was confirmed, generalized,
and extended to higher orders by Adler’. It was subsequently realized in
1979 by Fujikawa® that in the path-integral formulation of field theory
the chiral-symmetry-breaking anomaly enters only in the measure used
to define the path integral over fermion fields. As we shall see in the
next section, this approach makes it simple to evaluate the amplitude for
n® — 2y produced by this anomaly to all orders of perturbation theory.
After that, we shall return to the direct calculation of anomalies in more
general theories, and discuss various applications.
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22.2 Transformation of the Measure: The Abelian Anomaly

We now turn to a calculation of anomalies of the sort relevant to n° de-
cay. For this purpose we adopt Fujikawa’s interpretation® of the anomaly
as a symptom of the impossibility of defining a suitably invariant mea-
sure for integrations over fermionic field variables. Fujikawa’s analysis
of this problem was based on the use of path integrals in Euclidean
space, and on an expansion of the fermionic variables of intcgration in
eigenfunctions of the gauge-invariant Dirac operator, which is Hermitian
in four-dimensional Euclidean space. Here we shall first present a less
rigorous derivation, based on the familiar path integrals in Minkowski
space, which will allow us to obtain the correct answer with a minimum
of work. The Euclidean approach will be taken up briefly at the end of
this section, and used to derive a famous index theorem.

We will start by evaluating the anomaly in the transformation of the
measure under an arbitrary local matrix transformation y(x) — U(x)y(X)
of a column y,(x) of massless complex spin 1/2 fermion ficlds that
interact non-chirally with a set of gauge fields A#(x) (such as the u and
d quark ficlds interacting with the electromagnetic vector potential 4#(x)
in the problem of calculating the rate for n° — 2y). These are fermionic
variables, so the measure is transformed not with the determinant of the
transformation matrix, but with its inverse:

[dy][dip] — (Det % Det %)™ [dy][di], (22.2.1)

where
Uingm = U(X)amd*(x = ¥) , (22.2.2)
U snym = aU(x)1y4lamd*(x = ) (22.2.3)

and ys = iy is the matrix used to define { = yTys. The indices n, m run
over flavor labels and Dirac spin indices.

The reader may wonder at this point why we bother to include factors
of y4 in Eq. (22.2.3), since they just amount to a unitary transformation
that should not affect the determinants. The answer is that in order for
calculations to be meaningful we will find it necessary to regulate the
sum over fermion modes in calculating propagators and determinants,
and we shall find that the y,4 factors do affect the regulated determinants.
Whether or not we include the p4 factors thus depends on the method
of regularization that is used to make these hand-waving manipulations
meaningful. We include the factors of y4 because we wish to regulate in
such a way as to preserve Lorentz invariance, and in the cases of interest
here it is ys U(x) 4 rather than U(x)" that transforms as a scalar.

First, let us consider the case where U{(x) is a unitary non-chiral trans-
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formation
U(x) = explia{x)t] , (22.2.4)

with ¢ an ordinary Hermitian matrix (not involving ys, but not necessarily
traceless) and o(x) an arbitrary real function of x. In this case % is
pseudounitary:

AU =1, (22.2.5)

so the measure is invariant under this sort of transformation. In particular,
the symmetry under the gauge group itself, where ¢ is one of the non-chiral
generators t,, 1s not spoiled by any anomalies.

Next, consider a local chiral transformation, with

U(x) = expliysa{x)t] , (22.2.6)

with ¢ again an ordinary Hermitian matrix and «{x) again an arbitrary
real function of x. In this case % is pseudo-Hermitian:

U=, (22.2.7)

The measure is not invariant under the chiral transformation; rather, we
have

[dy]ldip] — (Det %)~ *[dy][dip] . (22.2.8)

Now let us specialize to the case of an infinitesimal local chiral trans-
formation. Taking a(x) to be infinitesimal in Eq. (22.2.6), we have here

(U — xpy = i0()[ys tham ¥ (x — ¥) . (22.2.9)

Using the identity DetM = exp Trln M and the limiting formula In{1 +
x) — x for x — 0, the measure now has the transformation property

[dy][dp] — cxp {f [dtx s} avllap, (22.2.10)

where & is the anomaly function:
A(x) = —2Tr{yst} %x — x), (22.2.11)

with ‘“Tr" here denoting a trace over both Dirac and species indices. The
measure [dy][dip] appears in the path integral weighted with a factor
exp{i [ d*x Z(x)}, so the factor exp {i [d*x a(x)d (x)} in the transforma-
tion rule (22.2.10) for the measure has the same effect as if the Lagrangian
density £(x) were not invariant under these transformations, but instead
Z(x) = Z(x) + a(x)=/(x). Hence when we use an effective Lagrangian
with the fermions integrated out, to take account of the anomaly we must
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be sure to include a non-invariant term so that
Le(x) = Ler(x) + a(x)F(x) . (22.2.12)

It now remains to calculate the anomaly function «/{x).

At first sight it does not look like we can get any definite result for
the anomaly. The delta-function is infinite, but the trace vanishes. To do
better, we must introduce a regulator to make §4(x — x) meaningful. We
can do this in a gauge-invariant manner by inserting a differential operator
f(— P2/M?) acting on the delta-function before taking its argument to
Zer0:

/(x) = =2 [Tr {ystf(— PLM)} 54— » (22.2.13)

y—x

Here D, is the Dirac differential operator in the presence of the gauge
field AX(x):

GR
(De)y = 7= = ity (%) (22.2.14)

Also, M is some large mass, eventually to be taken to infinity, and f(s) is
a smooth function, subject only to the condition® that as s goes from 0 to
oo, f(s) must drop smoothly from 1 to O:

f0) =1, f(o0) =0, (22.2.15)
sf'(s)=0 at s=0 and s=00. (22.2.16)

Note that we do not take the regulator function to be a function of ¢,
because we want to preserve gauge invariance, and we do not take it
to be a function of D¥D,, because we need it to regulate not only the
determinant but also the fermion propagator P!,

To evaluate the expression (22.2.13), we use the Fourier representation
of the delta-function, and write the anomaly function as

A(x) = =2 f

(j:; e {pst 6= B} ]

_ Qfé:; Tr {ystf(— [i k+1;x]2/M2)} :

(A derivative with respect to x gives zero when acting on the extreme
right in the second expression, but not when acting on A,,(x).) Rescaling
the momentum k* by a factor M, this is

d*k
(2m)*

A(x) = —2M* f Tr {ystf(—li b+ Po/MP)} . (22217)

* For instance, we might take f(s) = e~*, as done originally by Fujikawa, or f(s) =
1/(1 + s).
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The argument of the cut-off function may be written

. Hx 2 ) ik - Dy I,)x 2
[x K+ M] =K Y (M) . (22.2.18)
Eq. (22.2.17) receives contributions in the limit M — oo only from terms
in the expansion of f(—[i k+ Px/M]?) that have no more than four
factors of 1/M, and also only from terms that contain at least four Dirac
gamma matrices, because otherwise the trace over Dirac indices vanishes,
This leaves us with only the terms of second order in [
44

A (x) = — (—2&% £k Tr {yst 1)1} : (22.2.19)
which are now independent of the regulator mass M.

To evaluate the integral over k, we perform the same sort of rotation of
the k9 contour of integration as in evaluating Feynman diagrams, so that
in effect k® is replaced with ik*, with k* running from —oo to 4-oo. (This
is a step that can really only be justified by working with Euclidean path
integrals from the beginning.) The integral is then in effect

o0
f &k f1 (k2 = i f 2223 dic £(662) . (22.2.20)
0
By repeated integration by parts using Eq. (22.2.16) and then Eq. (22.2.15),
this 1is
o0 o0
f &k £"(k2) = in? f dss f"(s) = —in> f dsfi(s) = in> . (22221)
0 0
To calculate the trace, we write
E;zc = 3 {(Dx)'ua(Dx)v} {}’us ?v} + al, [(Dx)#: (Dx)v] [?’ua ?’v]

=D — Lity F¥ [y,070] . (22.2.22)

The only term in [{ that contributes to the trace over Dirac indices is the
one involving a product of four Dirac matrices, which gives

trp {¥5 [V vv] (Vo 7e]} = 161 €40p0 (22.2.23)

where ‘trp’ denotes a trace over Dirac indices only, and as usual €vpa 18
the totally antisymmetric tensor with %23 = 1. Using Eqs. (22.2.21)-
(22.2.23) in Eq. (22.2.19) then gives the anomaly function as

1
S (x) = a2 CHpo F"(x) FR°(x)tr {ty tgt} | (22.2.24)

with “tr’ here denoting a trace only over indices labelling the various
fermion species. In the special case in which t is the unit matrix, the
quantity (22.2.24) is known as the Chern—Pontryagin density.

This result can be expressed in terms of the current associated with the
anomalous symmetry. If we assume for simplicity that the action itself



366 22 Anomalies

is invariant under the symmetry transformation p{x) — y(x) 4+ itysayp(x)
with constant infinitesimal parameter «, then as discussed in Section
7.3, the change in the action when we make such a transformation
with a spacetime-dependent parameter «(x) may be written as 3 =
J d*x J¥(x)0,0(x), where JE(x) is the current that becomes conserved
when the field operators satisfy the dynamical equations that make the
action stationary with respect to arbitrary variations in the fields. When
we make the change of vanables dy(x) = itysa(x)y(x), the change in the
path integral over the fermionic fields is

5 [lniapte’ =i [ d*x [ldplldplls ) + Eoaatale’
(22.2.25)

But this is a mere change of variables, and so for arbitrary a(x) it cannot
affect the path integral. Therefore for arbitrary gauge ficlds

1

(5ng>A =&/ = _@ €uvpo

Fi F7tr {ty 5t} (22.2.26)

where for any operator ¢, {0}, is the quantum average of ¢ in a fixed
background field A*(x):

_ [laylldpl e’
Sldy]ldp] e’
Incidentally, it is possible to rewrite Eq. (22.2.26) as a conservation
condition. Consider the special case where tr {t, gt} is proportional to
5&3.

(O)4 (22.2.27)

tr {t,t5t) = Noyg . (22.2.28)

Define a current known as the Chern—Simons class:

1
Gt = el [AvaAAw + §Cm,g},,a1m,z1ﬁ AA},p}

1
— v {A},v Fop— §CDEBJ,AWA3,1AW] , (22.2.29)
which satisfies the identity
1
8,G* = E.s:m"hv Fyuw Fpip - (22.2.30)
Eq. (22.2.30) allows us to rewrite Eq. (22.2.26) as the condition
J,K#F =0, (22.2.31)
where
K= (J8) + N g (22.2.32)
504t 302 . 2.
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However, we cannot use the conservation of the current K# to argue, as
we did in the previous section, that the process 7n° — 2y is suppressed,
because in making that argument we assumed not only the chiral symmetry
associated with axial-vector current conservation but also electromagnetic
gauge invariance, and as we see from Eq. (22.2.29), the current K# though
conserved is not gauge-invariant.

Our derivation of the formula {22.2.24) for the anomaly shows that
if we had evaluated the anomaly function using a differential operator
f(— #3/M?) in place of f(— pZ/M?) in Eq. (22.2.13), we would have
obtained a vanishing anomaly function. In fact, with this regulator
procedure the axial-vector current is K#, not J£. The trouble with this
procedure, as mentioned above, is that the regulator operator is no longer
gauge-invariant, resulting in the presence of a non-gauge-invariant term
in K#, There is no regulator procedure for fermion propagators as well as
determinants that is both gauge- and chiral-invariant.

We may now return to the problem that gave anomalics their start,
and use our results to calculate the actual rate of the process z° —
2y. The symmetry of interest here is generated by charge-neutral chiral
transformations of the light quark fields;

ou = ioysu , od = —iaysd . (22.2.33)

This symmetry is anomaly-free in pure quantum chromodynamics, because
the u and d belong to the same representation of the color gauge group,
so that their contributions to the gluon—gluon terms in the anomaly of
the symmetry (22.2.33) cancel. On the other hand, in the presence of an
clectromagnetic field A#(x), this symmetry has an anomaly

o (x) = —%2— €gvpe FF(x) FP7(x) tr {q2 13} ,

where g is the quark charge matrix and 73 is the diagonal 2 x 2 matrix
with elements +1 for u# and —1 for d. If we assume as usual that there are
N, u quarks of charge 2e/3 and an equal number of d quarks of charge
—e/3, the trace is

i) =ne (%) v+ w (3 =N

so the anomaly function here is

N, e

{x) = — F® (x) FP%(x) . (22.2.34)

We must then include in the effective Lagrangian terms that under the
chiral transformation (22.2.33) give it the transformation (22.2.12), that is,

Ne

0L ef(x) = asd(x) = T

€mvpo F (%) FP*(x)a. . (22.2.35)
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Under the transformation (22.2.33) the pion field transforms as
on’ = aF,, (22.2.36)

where F, = 184 MeV is the pion decay amplitude introduced in Chap-
ter 19. (The normalization convention for this constant is fixed by our
definition of the symmetry generator as y5t3 = 2yst3.) It follows that we
must include in the effective Lagrangian a term

n’(x)A(x) _  Ne?
Fr T 48xmlF,
Comparing this with the general formula (22.1.1) for the effective La-

grangian for the decay n° — 2y, we see that the constant g in Eq. (22.2.1)
must have the value

€vpa F*(x) FP°(x)n°(x) . (22.2.37)

_ Neé?
 4872F,
{This shows that our previous crude order-of-magnitude estimate (22.1.3)

was too large by just a factor 6/N,..) The rate (22.1.2) for pion decay is
thus predicted to be

g (22.2.38)

r(no — 2y) = 3
The observed rate is [(n® — 2y) = (1.19 + 0.08) x 106 571, in good
agreement with the theoretical result (22.2.39) if and only if N. = 3. The
success of this calculation was one of the first pieces of firm evidence that
there are three colors of quarks.

Remarkably, as we have seen in the previous section, shortly after
the discovery of the n° Steinberger calculated g from a single proton-
loop diagram, and obtained the result g = €>G/32n’my, where G is the
pseudoscalar pion-nucleon coupling constant. This result would precisely
agree with Eq. (22.2.38) for N, = 3 if we used the Goldberger-Treiman
relation with g4 = 1 to set G = 2my/F,. The correct result is larger than
the Steinberger result by a factor g5 = 1.56. The reason that Steinberger
got nearly the right result is becausc the answer is determined by the
triangle anomaly, which is proportional to tr {gr3}. For one proton, this
trace has the value e, which is the same as the quark value found above
for three colors of quarks.

2.2...3 2
%% - (5_) x 1.11 x 1016 57! . (22.2.39)
w

* & *k

As mentioned earlier, a more rigorous derivation of the anomaly can
be given by using path integrals in Euclidean spacetime. (The use of
Euclidean path integrals is briefly discussed in Appendix A of Chapter
23.) We introduce a Euclidean fourth coordinate x4 = ix? = —ixg, and
correspondingly 84 = —idy, y4 = i°, and Ay, = i4). The spacetime
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volume is then expressed as d*x = —i(d*x)g, where (d*x)y; is the Euclidean
volume element (d*x)r = dx1dx2dx3dxs. In Euclidean spacetime the fields
w(x) and p({x) must be regarded as entirely independent, with local chiral
transformations defined by dy(x) = ia(x)tysw(x), dp(x) = —ia(x)P{x)tys.
The transformation of the measure is then again given by Eq. (22.2.10),
with the anomaly function /(x) given by Eq. (22.2.11). Introducing a
regulator function as before, this again gives the formula (22.12.13) for
o/(x). One great advantage of the Euclidean approach is that with x4 and
Ay, real, the Dirac operator ip in Eq. (22.2.13) is Hermitian:

iD= [ia,- + taAm]yi , (22.2.40)

with i, j, etc. here summed over the values 1, 2, 3, 4. It therefore has
orthonormal spinor eigenfunctions ¢,(x):

iDox = Ao (22.2.41)

f (@*0)E el) () = S (222.42)

with real eigenvalues A,.. We also are assuming, as throughout this section,
that t commutes with i D, so that we can choose the ¢, so that o, = t,@k.
These eigenfunctions satisfy a completeness relation

Y ouX)on(y) = 3 x — )1, (22.2.43)

where ‘1’ is the 4 x 4 unit matrix. Therefore the anomaly function may
now be written as the limit of a manifestly convergent sum:

#(x) = —2limpyo. Tt {yst f(— P/ M) Y gutx)oix)}
= —2limpo0 3 e FOZ/ M) (@ (0)yspu(x)) . (22.2.44)

In just the same way that we derived formula (22.2.24) for the anomaly
function, we can show here that
1
1672
where el is the totally antisymmetric tensor with ey, = +1. (The
difference of sign in Eqs. (22.2.24) and (22.2.45) arises because Eq. (22.2.45)
is missing two factors of i as compared with Eq. {22.2.24): one factor i
from Eq. {22.2.23), because

A(x) = 5 Fiju Frap tritatpt} (22.2.45)

trp{yslyi, vl vk, 1} = 16 €5y

together with another factor i from the replacement of d*k with (d*k)g in
Eq. (22.2.20).)
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Now, given any eigenfunction ¢,(x) of i p and ¢ with eigenvalue 1, # 0,
there is another normalized eigenfunction ¢.-(x) with eigenvalues A,— =
—Ax and t,, given by @.-(Xx) = pspi(x). (Recall that in the notation
used throughout this book, ys is the Hermitian matrix ys = —iy1ypaypsyo =
Y1727374.) Furthermore ((p (X)pi(x )) = ((pi_(x)(px—(x)), so the terms x
and x~ cancel in the sum in Eq. (22.2.44). This leaves just a sum over the
eigenfunctions with 4, = 0. These are not generally paired; rather, since ys
anticommutes with i D, they can be chosen as simultaneous orthornormal

eigenfunctions ¢, ¢, of i D with eigenvalue zero and of ys with eigenvalues
+1 and —1, respectively.

iPpu=0, 750u = Qu ,
(22.2.46)
ip(Pl? =0, Y3y = — Qv .

Using the fact that f{0) = 1, Eq. (2.2.44) then becomes

oA (x) =

—2 Zru(mu( )(pu(x)) Ztu(fpl(x)%(x))]- (22.2.47)

Now, since the ¢, and ¢, are normalized as in Eq. (22.2.42), the integral
of Eq. (22.2.47) gives

/ (dx)pA(x) = [Z ty — er] , (22.2.48)

with the sums over ¥ and v running over left- and right-handed zero
modes of the operator ip, respectively. In particular, for the case where
t is the unit matrix, by using Eq. (22.2.45) this may be expressed as a
relation between a functional of the gauge field and the numbers of the
zero modes of the Dirac operator with definite chiralities:

— o f (@*%)e by Fug Fpu te]tatg] =ny —n_, (22.2.49)

where here ny are the numbers of zero modes of P that have eigenvalues
+1 for ys. This is the celebrated Atiyah-Singer index theorem.** Among
other things, it shows that under variations in the gauge field the integral
on the left-hand side of Eq. (22.2.49) cannot change smoothly, but only
by integers, so this integral can only depend on the topology of the gauge
field. Its dependence on this topology will be described in Section 23.5.

22.3 Direct Calculation of Anomalies: The General Case

We saw in Section 22.2 how to use the elegant Fujikawa approach to
calculate anomalies of chiral symmetries in gauge theories like quantum
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chromodynamics, where the gauge interactions are non-chiral and fermion
number is conserved. This method can also be used to deal with more
general problems, but there it becomes less straightforward.” In this section
we will treat the anomaly by direct calculation, as it was originally done.
This will provide a useful additional perspective on the anomalies, and
will incidentally allow us to discuss anomalies in general theories with
very little extra trouble.

To deal with the general case, we will unite all left-handed fermion
fields (including antifermions, where that distinction is meaningful) in a
single column y. For instance, if ¢ is a column containing all quark and
lepton (as opposed to antiquark and antilepton) fields, then

= L+ 75y _ [ i4ysw
- %[(5(1*‘"?5)1.0]'] [;uﬂsmw* = (22.3.1)

where € is the matrix defined i Section 5.4 by
"y
€€ =74,

which is needed in order that all components of y should belong to the
same (1/2,0) representation of the Lorentz group. Under an infinitesimal
fermion number (e. g, baryon number or baryon number minus lepton
number) conserving gauge transformation:

Sy =iy | 3(1 +ys)y + 41— va)tf] Y (223.2)
this column undergoes the transformation
Oy =ie, Tyy , (22.3.3)
where
[0 1 T 0
T, = [ 0 —i& ] = [ 0 —®)T | (22.3.4)

We shall not limit ourselves here to theories that conserve fermion number,
so the T, will now be any Hermitian representations of the gauge algebra,
not necessarily of the block-diagonal form (22.3.4). For the moment we
will consider only massless fermions, returning to the effect of fermijon
masses a little later.

We shall be concerned here with the one-loop three-point function

Thir(x,v,2) = (T{EX), j50) J£E)}vac (223.5)
where j# is the fermionic current, calculated in terms of free ficlds:
Jo = —ixTayy . (22.3.6)

The two Feynman diagrams of Figure 22.1 give
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ja () ja(z)

\ 35(2) \ I3 (¥)

Figure 22.1. Two triangle diagrams for the anomaly in the current j{(x). Solid
lines are fermions; wavy lines indicate fictitious gauge fields, coupled to the
currents.

xﬁy(x v,z) = —iTr (S(x — ¥) Ty  PLS(y — 2)Typ* PLS(z — x) Tuy" Pr]
—iTr [S(x — z)T,y*PLS(z — )Ty " PLS(y — x)Toy*PL] ,

(22.3.7)
where P; is the projection operator on the left-handed fermion fields
1
P, = ( ’;"’5) (22.3.8)
and S(x) is the propagator of a massless fermion ficld:
_ b iy
569 = 3 /d p (p = w) . (22.39)

(For further comments on this use of the Feynman rules, see the end of
this section.) Collecting factors, Eq. (22.3.7) now reads
Ch(xy,2) =

Bf) 2 )12 /d4k1 d4k e 1(kl+k‘))x !k]y !kzzfd4
’ (2n

p—t+d , Bt Pkt d L1t
" {tr [(P—k1+a)2—iey (IJ’+a)2—ifyp(ff?-chﬂ-‘fl)z—i‘?ylu 2 ]
X tr [TﬁT‘y TD:]

P—lat ¥, B+ . BHB L 1+ts
i [(p—k2+b)2—ie”p(p+b)2-—z‘e" Prltbi—ic 2 ]
x tr [T, Tp Tal } , (22.3.10)

where ‘tr’ here denotes a trace over either Dirac or group indices, de-
pending on its argument. We have introduced the arbitrary constant
four-vectors a and b because, although the expression (22.3.10) is con-
vergent and hence independent of the labelling of the momenta carried
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by internal lines, the evaluation of 4,I" g;f, involves the manipulation of
divergent integrals that do depend on this labelling. We will see that
the freedom to choose a* and b* corresponds to a freedom to move the
anomaly in these integrals from one current to another, but does not
allow us to eliminate the anomaly altogether.

In taking the divergence of Eq. (22.3.10), we use the identities

it o=+t d— -t b=+ i+ B —(F— Kt B)

and find

3 1 o
%F;:ﬁ‘;’(x, y,z) = (27-,5)12 fd4kl d4k2 g ilkitka)x Jikiy pikoz /d4p

—~ K+ ) l
x{trwym o[ - f‘a);‘ ’ o j;y ks

[P Pl d v1+?’5}
P+ —ie’ Ptk tal—ie 2
P— K2t B Pt v1+y5
+tr [T, Ty Ty) tr _(p—k2+b)2-ieyp(p+b)2_ }
BB, Bkt p1+v5]}

—tr [Ty T, Ty t

M2

—tr | T x| t .
T T Gy kb= 2

(22.3.11)

At this point it is convenient to separate the three-point function into
terms symmetric and antisymmetric in the group indices, by writing

tr [Tp Ty Ta] = Dygy + 1iN Cyp,
and
0 [T, Ty T = Dap, — il Copy,
where Dygy is the totally symmetric quantity
Dyg, = itr [{T,, Tg} Ty] (22.3.12)
and the coefficient of the structure constant Cyg, is defined by
tr[T,Tp]l = N bap .

The terms that are antisymmetric in group indices are in general non-
zero, but they do not represent any breakdown of the symmetry. Just
as in the derivation of the Ward identity in Section 10.4, in a formal
calculation of the divergence of the matrix clement (22.3.5) we encounter
contributions from the time-derivatives of the theta-functions in the time-
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otrdered product, equal to
e . N
[@rﬁﬁﬁ(x, v, Z)] = —iCops6*(x — V) J3(¥) J£(2))vac

formal
—iCuys8*(x — 2)(Jj3(1)J5(2) Jvac . (22.3.13)

It is not hard to se¢ that the antisymmetric terms in Eq. (22.3.11) just
reproduce Eq. (22.3.13). The anomaly is contained in the symmetric part
of Eq. (22.3.11):

%, 1 . . .
Y vy _ 4 4 —i{k +hayx jikyy Likpz
[ T, y,z)} = D f &k &k e i ¢
i — K1+ d P+ d 1+ ps]
x | d*p it Landld v p
f p{r_(p—k1+a)2—ify Pt+af—ie’ 2 |
pPt+d  , Prkatd L 14ys]

Ulorari—ie ptrhkatar—ic 2 |
F— kot b, Bt Lty
i l(p—k2+b)2—ie') (p—l—b)z—iey 2

—tr [(p+b)2—iey (p+k1+b)2—iey 2

Grouping together the first and fourth traces, and the third and second
traces, this may be put in the form

p+¥ Pkt 91“’5]}.(22.3.14)

0 1 | L
uvp _ 4y gdp ikt iky ke
[axpraﬁ?(x’y’z)]mm B (2n)f2D“"?fd ki d'ky e THTRIT T S
K, VoA ,(91 + 75
X tr[???? 5 ]le(a“b_kl,bsb+kl)
1 A
+tr [v“vﬁv’lv"%] La(h—a—ky,a,a+ kz)} : (22.3.15)

where
Ltk ed) = [ @plfolp +hed = fuped], (22316

(p+ ¢)lp + d);
a(pyc.d) = . — . 22.3.17
Filpr & = 3 oy —iell(p + 47 — i (22317
To evaluate these integrals consider the expansion of the function f.;(p +

k,c,d) in powers of k:

o
1
falp +hod) =3 —k -k
n=0 "’

Hu 0nff€i(pa Ca d)
ap,ul s ap#n )

The zeroth-order term f,.;(p, ¢,d) clearly cancels in Eq. (22.3.16). All other
terms in Eq. (22.3.16) arc integrals of derivatives witth respect to p, and
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hence after Wick rotation may be written as surface integrals over a large
three-sphere, say of radius P. The nth derivative of f then yields the
sutface integral of a function that behaves as P~>~"~1_while the area
of the three-sphere of radius P goes as P, so the only terms that can
contribute for P — o are those with n = 1 and n = 2:

Ofilp, ¢, d) 32 fxalp, ¢, d)
Tatk,e.d) = k# [ d4pZxMP54) **‘f 4 (2231
(ked)=p [atp DD o e [atp THBLD - 22318)

A straightforward calculation then gives

Lalk,c,d) = lin [Zk;cﬁz;c d;— kgdx—k,cc,l—n,c,lk-(k+c+d)].(22.3.19)

6

We must now separately consider the terms in the traces in Eq. (22.3.15)
arising from the 1 and the ys in the projection matrix i(1+ ys). The terms
arising from the 1 involve tr[y*y*y*y*], which is symmetric in « and 4,
and also in v and p, so the integrals here appear in the combination

La{a—b—ki,b,b+ ki) + I (a—b—ki,b,b+ ki)
Hiab—a—ky,a,a+ k) + (b —a—ky,a,a +k2) .

Using Eq. (22.3.19), it is not difficult to see that this vanishes if and only
if we choose the arbitrary constant vectors so that

a=—b. (22.3.20)

Furthermore, this is a choice that avoids the non-chiral anomaly for all
three currents, because in (8/0y")I Q‘g;’(x, y,z), a and b would be replaced
with ¢’ = ky + a and b’ = —k, + b, while in (a/OzP)Fgﬁ’;’(x,y,z), a and b
would be replaced with @’ = k; + a and b’ = —k; + b, so that taking
a = —b also insures that ¢’ = —b" and a” = —b".

We are left with the term in the trace involving ps. This is totally
antisymmetric

tr [y v yPys| = —4ieH (22.3.21)

where €' is the totally antisymmetric tensor with €”12* = 1, Using this

in Eq. (22.3.15) with b = —a gives
2 —1 X

(2 PR [ ¥ dtky s

Ik; ¥y Ikz z 261%1.’43.,(;'(,3K (kl + kZ)A . (22322)

-
ST (%5,2)

anom

We could eliminate the anomaly (22.3.22) in the current J¥(x) by taking
a oc ki + kz. Although this is possible, it would not eliminate the anomaly
altogether; it would appear in (6/0y" )l"g”f;(x y,z) or (O/OZP)F“”p(x v, 2).
The symmetry of the problem indicates that the anomaly will ¢ absent

in (8/0y" )40 (x, v,z) if and only if (k2 + @) — (—k2 + b) oc k1, or in other
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words a + ks oc ki, and will be absent in (O/OZP)I"’”"F'(x y,z) if and only if
(—ki + a) — (k1 + b) o kj, or in other words a — k| o k>. It is possible to
choose a* to satisfy any two of these conditions, so that the anomaly can
be removed from any two of the currents, but for non-parallel k; and &,
it is evidently impossible to simultaneously satisfy all three conditions —
a oc ki + k> and a+ k» oc ki and a ~ k; oc ky. (For instance, the first two
conditions would imply that a = —k; — k», in contradiction with the third
condition.) We therefore conclude that although we have some freedom
in deciding which current exhibits the anomaly, rhe non-vanishing of Dy,
shows deﬁnirely that there is an anomaly in at least one of the currents
Ji(x), Jg(v), or JP(z). This is one of the chief results of these calculations,
and w11{3 be explo1ted in the next section as a source of constraints on the
matter content of gauge theories.

We have seen that the ¢valuation of the anomalics depends on the choice
we make of the shift vector a”. Unfortunately, there is no one choice that
is uniformly satisfactory, so we¢ have to choose a* in accordance with the
special features of the problem at hand.

In one class of problems of great importance, J4(x) is the current of a
global symmetry, while Jg(y) and Jf(z) are currents of gauge symmetries,
that is, currents to whlch gauge ﬁelds are coupled. (We dealt with such a
problem in the prev1ous section.) In such cases, we must choose a* so that
the anomaly is solely in J¥(x), not in .I"(y) or Jf(z). As we have seen, this
requires that a +k; oc ky and a—k; « kz, Whlch leads to the unique result
that

a=ki—k. (22.3.23)

Adopting this value of a#, the anomaly (22.3.22) 1s

¢ 1

e —
[a i apr o ’Z)] som  (27)1
x 4?IZEKv;'pk1,Ck2;h

4

_ L e =) 080 - X)

4n? dy* dz*
We note in passing that a result like this can omly arise from a theory
that involves massless particles.”® Otherwise, we would expect the Fourier
transform of I p(x y,z) to have a power series expansion around zero
momentum. The only terms in such an expansion that could possibly lead
to a current divergence of the form (22.3.24) are pseudotensors of first

ord¢r in momenta

[Tt k) = [dtvdtz etoeTor [De0,,2)]

DD:B']) /d4k1 d4k2 g—ilkithkz)x gikyy Gikgez

. (223.24)

anogimn

o HVPO [Aocﬁyklﬂ' + Baﬁ}‘kza] )



22.3 Direct Calculation of Anomalies: The General Case 377
where Aqg, and By, are constants. According to Eq. (22.3.24),

v i
(ki + k2), {Fﬁfﬁ‘;(khkz)] = — Dogy€Pkickay

anom 472
50
i
Augy = Bupy = 75Dy -
But the symmetry of the amplitude among the three currents requires that
Aaﬁykla + B:xﬁychr = _AayBchr - Bocyﬁkla = ,JocB( —kis —kag) — B?aﬁkQG

so, equating the coefficients of ki, and kg,

Augy = —Buyp = Ayag Bugy = —Auyp = Ayap — By -
Taking the difference of these equations gives
Aogy — Bagy = Aupp — Bayp = Byag -

Since this is proportional to D,g, it must be totally symmetric, so Byg,
and hence also A,p, are totally symmetric. But then the conditions for
the symmetry of the three-point function read A = —B = B — A4, which
implies that Ayp, = Byg, = 0, in contradiction to Eq. (22.3.24). By the
same reasoning, it is not possible to cancel the anomaly by adding a local
term to the interaction whose contribution to the divergence of the current
J# cancels that given by Eq. (22.3.24).

Returning now to Eq. (22.3.24), we can ¢xpress this result in terms of
the vacuum expectation value of the current J# in the preseénce of gauge

fields coupled to the currents Jg and J#. The triangle graphs make a
contribution to the current in the presence of the gauge fields

Uha ==t [ dvdz Tl 4. (22329)
Using Eq. (22.3.24), this has the anomalous divergence
1 . .’

[(0d5 (%)} 2l anom = — 32 Det eV 0, Ab (x) 8;45(x) . (22.3.26)

There are additional diagrams, shown in Figure 22.2, that also exhibit
anomalics. Gauge invariance requires that the diagrams of Figure 22.2
should add up to give the gauge-invariant result

1 .
[0 T (N anom = —3—2%—20953? e FF (x) Fl(x). (22.3.27)

As a check, consider a fermion-conserving theory, with generators Ty
of the form (22.3.4). The constant D,p, in the anomaly (22.3.26) is here
given by

Dagy = Atr[{eg, t5}tl] — Lr[{eR, ef 3] . (22.3.28)
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Figure 22.2. One-loop diagrams for the anomaly in a current indicated by the
dashed line. Solid lines are fermions; wavy lines are gauge fields with which they
interact.

More specifically, in Section 22.2 we calculated the divergence of an axial-
vector current JE, with t£ = —R = ¢, due to gauge-ficld interactions

with vector currents Jy and J# (called J; and .Ig in Section 22.2) with

tk = & =15, and likewise for ¢,. Hence in this case D,g, is replaced with
tr[{t, tg}t,] = tr[{tp, £, }1], and Eq. (22.3.27) becomes

7 1 v
[{8,J5 (X)) ]anom = —@tr[{tﬁ,t?}t] W FE(N)F](x),  (223.29)

in agreement with Eq. (22.2.26).

Where no gauge fields are coupled to any of the currents J§(x), Jg(y),
or Jf(z), the choice of the shift vector ¢ is a matter of convenience.
When some but not all currents are associated with symmetries that are
spontancously broken, we keep the unbroken symmetries manifest if we
choose a# so that there ar¢ no anomalies in the currents corresponding
to the unbroken symmetries. (This will be important in Section 22.7.)
For instance, in quantum chromodynamics and similar theories, where
the generators T, of global symmetries like chiral SU(3) x SU(3) take the
form (22.3.4), all currents are either vector, with t& = L, corresponding
to unbroken symmetries, or axial-vector, with t& = —tL, corresponding
to broken symmetrics. We se¢ from Eq. (22.3.28) that in this cas¢ the
only triangle graphs with anomalies are thos¢ with on¢ axial-vector and
two vector currents, or three axial-vector currents. In the case of one
axial-vector and two vector currents, we choos¢ ¢ so that there is no
anomaly that interferes with the conservation of the vector currents.
Thus, if J#(x) is the axial-vector current and J5(v) and J£(z) the two
vector currents, then as in Eq. (22.3.23) we must take a* = ki — k5, so
that the anomaly is given by Eq. (22.3.24). On the other hand, for three
axial-vector currents, there is no reason to require that any on¢ of them
should be free of anomalies. Instead, it is natural to give a* a value
that respects the symmetry among the three currents. Guided by Lorentz
invariance, suppos¢ we try a = ok + fkz, where o and f are constants.
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Then symmetry would require that the momentum of each internal line
should be p plus « times the momentum flowing out at the end of the
line plus § times the momentum flowing out at the beginning of the
line. That is, if we require that a = ak; + Bk,, then symmetry requires
also that a — k) = —a(ky + k + 2) + Bky and a — ky = aky — B(ki + k2).
These three relations are satisfied for non-parallel k; and k, if and only if
«=—f =1/3, so that

a= 10k —ky) . (22.3.30)

Using this in Eq. (22.3.22) and comparing with Eq. (22.3.23), we sec that
the anomaly in the axial-vector current in a Feynman amplitude for three
axial-vector currents is on¢-third what it would be for one axial-vector
and two vector currents.

The divergence of the current contains additional anomalies from the
graphs of Figure 22.2. Gauge invariance is no guide here, because even
the triangle graph does not yield conserved currents. The total anomaly
has been calculated by Bardeen® for the chiral SU(3) x SU(3) symmetry
of the strong interactions, with momentum shift vectors chosen so that
vector currents are conserved and graphs with all axial currents are
symmetric among these currents. Although this SU(3) x SU(3) symmetry
(which acts on quark flavors rather than colors) is not gauged in quantum
chromodynamics, it is convenient to express the anomaly as a failure of
gauge invariance in a functional I'[V, A4] of fictitious weakly coupled gauge
ficlds: an octet of vector fields V#(x) and an octet of axial-vector fields
A (x). We also introduce infinitesimal gauge-transformation operators”

: d o & &
l@a(x) = ﬁﬁéVa‘u(x) _fabc pr(x)éycp(x) “fabcAbp(x)m
(22.3.31)
and
o 0 ) S
lfza(x) = _@ 5Aa,u(x) fachbp( )6Ac”( ) — fabeA by(x)éycu( )
(22.3.32)

where fac are the SU(3) structure constants. As mentioned above, the
labelling of internal line momenta is chosen so that the vector current is
not anomalous:

Y, T[V,4] =0, (22.3.33)

* The operators %, and %, here are what in Ref. 8 were called X, and Y,. This switch
in notation is made to maintain consistency with the notation of Chapter 19, where
broken symmetry generators are consistently labelled X,,.
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but then an anomaly appears in the axial-vector currents

XTIV, A] = gﬁf“v’oaTr {Aa [Vm Voo + $AwAps — $A4,A0ApAs
+ (A dy Voo + AV e Ay + VPJA#A,,.)]} . (22334)
where A, are the SU(3) matrices given by Eq. (19.7.2), and
Vi= aVia,  Au= YigAya, (22.3.35)
V;w = ap v, —d, V,u - i[Vpa Vv] - i[A,u: A1, (22336)
Ay =8,A, — 8, A, —i[V,, A —ilA,, V,]. (22.3.37)

The factor 1/3 accompanying the second term on the right-hand side in
Eq. (22.3.34) has alrcady been ¢xplained as a consequence of the different
choice of a# in the AVV and AAA graphs. In Section 22.6 we will
describe consistency conditions that allow the cubic and quartic terms in
Eq. (22.3.34) to be calculated from the quadratic terms.

For anomalies involving symmetries that are all spontancously broken,
there is no reason to choose a* in a way that distinguishes among the
different currents, and instead it is natural to label internal fermion lines
in a way that is symmetric among the attached gauge boson lines. As
we have seen, this means that the triangle graph is to be calculated with
the choice a = L (k1 —k2). This gives a trianglec anomaly on¢-third of the
value given by (22.3.26). When square and pentagon graphs are included,
this result becomes®

[(D‘u-]é:”anom = :

_m eicv)»P Tr {Ta [axAv 5;AP - %la;‘,Av Aj.Ap

+ Lid 0,4, 4, — %iA,cA\,EJ;LAp] } , (22.3.38)

where A* = A¥T,. We will not derive this result here, because we have
already seen that in such cases the terms quadratic in 4, are given by
one-third the corresponding terms in Eq. (22.3.26), and in Section 22.6 we
shall be able to use consistency conditions to derive the remaining terms
in Eq. (22.3.38) from the quadratic terms.

Now w¢ must consider possible corrections to these results. A careful
derivation of the anomaly to all orders of perturbation theory was given
by Adler and Bardeen;® what follows is intended to give only the gist of
their analysis.

The argument that led to Eq. (22.3.22) may be repeated in any order of
perturbation theory, and shows that the anomaly in general arises from
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momentum-space integrals that can be reexpressed as surface terms. In
consequence, as we saw here in Eq. (22.3.18), the only graphs for the
current divergence that contribute to the anomaly are those for which
the integral over the momentum circulating in the fermion loop has
dimensionality (in powers of momentum) zero or greater. Interactions
of the fermions in the loop with virtual gauge bosons would reduce the
dimensionality of the integral over the fermion loop momentum enough to
eliminate the anomaly, so the anomaly receives no contribution from such
radiative corrections. (It is true that the integral over the momenta of the
virtual gauge bosons as well as the fermion loop would have non-negative
dimensionality, but the gauge boson propagators can be regulated, as the
fermion propagator cannot, without interfering with the chiral symmetry
in question.) The anomaly is affected by interactions of the gauge bosons
attached to the fermion loop with other gauge bosons and fermion loops,
but these just serve to renormalize operators like €<'* Ff (x) Ff{p(x). By
the same argument, any fermion mass that respects the symmetries in
question (if this were possible) would not change the anomaly, because
extracting factors of this mass would lower the dimensionality of the
momentum-space integral.

The last remark of the previous paragraph raises the question of whether
we can calculate the anomaly without knowing all the fermions in a theory,
heavy fermions as well as light or massless ones. Yes, we can; we shall
now show that no fermion that is allowed by a given symmetry to have a
mass can contribute to the anomaly for that symmetry. In the general class
of theories considered here, a mass term in the Lagrangian density would
take the form

Z mass = — Z Xon€oq Munwow + Hee. | (22339)

nmeo'

where ¢ is the two-component spinor index of the (%,0) representation

of the Lorentz group, €4, is the antisymmetric matrix with e 1= +1,

needed for Lorentz invariance, and M is a symmetric mass matrix.”* Now,
in order for & mass to respect gauge invariance, the mass matrix must

" In fermion-number-conserving theories where y has the form (22.3.1), M is related to
the usual mass matrix m by
1 0 m
-8 n).

With all inversion phases equal 10 unity, parity, charge conjugation, and time-reversal
invariance respectively have the further consequences thal m is Hermilian, symmetric,
or real.
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satisfy
~TIM=MT,. (22.3.40)

The index n may be replaced with an index r labelling different irreducible
representations of the gauge group, and an index s labelling components
within each irreducible representation, so that

(Tadrsrs = Orl T s - (22.3.41)
and we write
Moy = (M") . (22.3.42)
Eq. (22.3.40) then becomes
— TOT M) = gl Tl (22.3.43)

(This is not summed over r or +'.) Schur’s lemmal'® tells us that whenever
the matrices of a pair of irreducible representations are related by such
an equation, the matrix that relates them is either zero or non-singular.
(See Section 5.5.) Thus, either (i) M) = 0, or else (ii) —TT and T
are related by a similarity transformation, and likewise for Ty and T,. In
the latter case the contributions to the anomaly constant (22.3.12) from
fermions belonging to the individual irreducible representations r and #/
are related by

" _ )
D.s, = —Digy -

so the anomaly either vanishes (for r = ') or cancels between the two
representations (for r # r').The anomalies in a given set of symmetries
therefore are unaffected by the possible presence of fermions with a mass
allowed by these symmetries.

(22.3.44)

* % *

There 1s a fine point in the use of the Feynman rules to calculate
the three-point function (22.3.7), to which we now return. In using the
conventional fermion propagator (22.3.9), we have in effect doubled the
number of fermion fields; 1n additional to the purely left-handed fields
x{x) given by Eq. {(22.3.1), the propagator {(22.3.9) includes right-handed
modes (unrelated to the fields (I — ys)y of fermion-number-conserving
theories) that do not interact with the gauge fields. Combining these
non-interacting right-handed fields with the interacting left-handed fields
in a single spinor ¥, the fermion Lagrangian density is —¥ P¥, where P
is now

p=7—iAT, (1 ?’5) . (22.3.45)
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The one-loop vacuum functional for spin ! fields interacting with real or
fictitious gauge fields is just Det p. The failure of gauge invariance in this
determinant can be blamed on the fact that the operator (22.3.45) is the

sum of two terms
1 — 1
D=a( 2y5)+p( ?’5) (22.3.46)

of which only the second is gauge-invariant.

There is another way of looking at anomalies,!® which provides a
framework for calculations of a large class of anomalies, of coordinate
as well as gauge symmetries in spaces of any dimensionality. Instead of
working with the operator (22.3.45), which has a well-defined determinant,
one deals instead with just the second term in Eq. (22.3.46)

DLEﬂ(lz%) -

This is perfectly gauge-invariant, but does not have a well-defined deter-
minant, because this operator does not map the space of fermion fields
of one handedness into itself, but rather into the space of fermion fields
of the other handedness. One can try to define a gauge-invariant vac-
uum functional Det P; by writing differential equations for Det p; in the
space of gauge fields, modulo gauge transformations, but then one may
encounter obstructions. There are local obstructions due to violations of
the necessary integrability conditions, which correspond to the anomalies
we have been discussing. Even where these local obstructions are absent,
in cases where the infinite-dimensional space of gauge-field configurations,
modulo gauge transformations, 1s not simply connected, topological ob-
structions can prevent the definition of single-valued functionals on this
space. Such a global anomaly was found by Witten'%” for the gauge group
SU(2) (which is free of local anomalies) with an odd number of massless
left-handed fermions in SU(2) doublets.

(22.3.47)

22.4 Anomaly-Free Gauge Theories

We have calculated the effect of anomalies on the conservation of a general
current J¥. Where this current is itself coupled to a gauge field, gauge
invariance requires that the anomaly be absent. We saw in the previous
section that the anomaly is proportional to the completely symmetric
constant factor D,g, defined by Eq. (22.3.12), so for gauge currents we
must have!!

Dy, = Wr[{T,, Ts} T,) =0, (22.4.1)
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where T, is the representation of the gauge algebra on the set of all left-
handed fermion and antifermion fields, and ‘tr’ again denotes a sum over
these fermion and antifermion species. This condition may be satisfied
for any gauge group if the fermion fields furnish a suitable reducible or
irreducible representation of the group. In addition, there are some gauge
groups for which Eq. (22.4.1) is satisfied for fermions in any representation
of the group.'? (The Batalin-Vilkovisky formalism is used in Section 22.6
to give a purely algebraic proof that for such gauge groups the anomaly
is absent to all orders of perturbation theory.)

The condition (22.4.1) is obviously satisfied if the left-handed fermion
(and antifermion) fields furnish a representation of the gauge algebra that
is equivalent to its complex conjugate, in the sense that

(iT,)" = S (iTy)S~!
or equivalently (since we always take T, Hermitian)
Tl =—-ST,S". (22.4.2)

(Inserting Eq. (22.4.2) in Eq. (22.3.12) gives Dy, = —Dyg,.) Such a
representation may be either real, in which case it is possible by a similarity
transformation T, = RT,R™! to convert the representation to a form
in which T, is imaginary and antisymmetric, or pseudoreal, in which
case this is impossible. (For instance, the three-dimensional irreducible
representation of SU(2) is real, while the two-dimensional representation
is pseudoreal.) There is no anomaly for gauge algebras that have only real
or pseudoreal representations, namely'* SO(2n + 1) (including SU(2) =
S0O(3)), $SO(4n) for n = 2, USp(2n) for n > 3, G,, F4, E7, and Eg, and all
of their direct sums. A few other algebras also have only representations
for which D,p, vanishes, even though some representations are neither
real nor pseudoreal.!? These are SO(4n +2) (except for S 0(2) = U(1) and
SO(6) = SU(4)) and Eg, and their direct sums with each other and the
above algebras. Anomalies are thus only possible for gauge algebras that
include SU(n) (for n = 3) or U(1) factors. As it happens, these are among
the most important gauge algebras in today’s physics. The standard model
is based on the gauge group SU(3) x SU(2) x U(1), so we must rely on
cancellations among the quarks and leptons to make the theory free of
anomalies.

Table 22.1 gives a classification of the left-handed spinor fields of the
first generation of the standard model according to the representations
they furnish of the color SU(3) group and the electroweak SU(2) group,
and the value of the U(1) quantum number y/g’ =t3/g — q/e.

We can now check whether D,y vanishes when T, Ty, and T, run over
all of the generators of SU(3) x SU(2) x U(1). We need only consider
those combinations of generators for which the product of T, Tg,and T,
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Table 22.1. First-generation left-handed fermion and antifermion fields of the
standard model.

Fermions SU(@3) SU(Q2) U(1) [y/g']
u
(B, = 2w
Ug 3 1 +2/3
dx 3 1 —1/3
Ve
1 2 1/2
€ /L
eR 1 1 —1

is neutral under SU(3) x SU(2) x U(1), since D4, obviously vanishes for
all the others. We can make invariants out of either zero, two, or three
SU(3) generators (because 8 x 8 and 8 x 8 x 8 both contain singlets), zero,
two, or three SU(2) generators, and any number of U(1) generators, so
we only need to check the following cases:

SU(3)-SU(3)-SU(3): Here D,g, vanishes because the left-handed fermions
furnish a representation 3+ 3434+ 341414+ 1 of SU(3), which is real.
SU(3)-SU(3)-U(1): Here the anomaly is proportional to

Zy/g’——l—l—l—z—l—()
¥ 6 6 3 3

SU(2)-SU(2)-SU(2): There is no anomaly here because SU(2) only has
real or pseudoreal representations.

SU(2)-SU(2)-U(1): Here the anomaly is proportional to

> y/g’=3(mé)+%=0.

doublets
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U(1)-U(1)-U(1): Here the anomaly is proportional to

P =6 13’3233 13'213 1*=0
Ywrer =s(=5) +3(3) +3(=3) +2(3) +ew =0,

We see that all anomalies cancel for the gauge symmetries of the
standard model.!* This result can be neatly understood by noting that
SU(3) x SU(2) x U(1) may be embedded in SO(10).1* All of the repre-
sentations of SO(10) are anomaly-free, so the same property is inherited
by any reducible representation of SU(3) x SU(2) x U(1) that furnishes a
complete representation of SO(10). As it happens, the left-handed fields of
a single generation of quarks, leptons, antiquarks, and antileptons plus one
additional (SU(3) xSU(2) x U(1))-singlet forms a complete 16-dimensional
representation of SO(10) (the fundamental spinor representation), so for
this set of left-handed fermions there are no SU(3) x SU(2) x U(1) anoma-
lies. The singlet would not contribute to such anomalies anyway, so there
are no anomalies 1n the gauge symmetries of the standard model.

There is one more anomaly that needs to be evaluated. All species of
fermions interact with gravitation in the same way. Calculation of the
fermion loop graph for the expectation value of the current ¥ Ty#y (where
¥ 1s a column of all left-handed fermion and antifermion fields) in the
presence of an external gravitational field yields an anomaly!'s 8,(xTy#y)
proportional to

tr{ T}e*"P R 1 Ros™ .

In particular, to avoid a gravitational violation of a gauge symmetry like
(22.3.3), the generators must satisfy

tr{T,} = 0. (22.4.3)

Like the pure gauge anomaly, this vanishes for gauge generators satisfying
Eq. (22.4.2), so this anomaly receives no contribution from fermions that
form real or pseudoreal representations of the gauge group, and it can
therefore be calculated taking into account only those fermions whose
masses arise from a breaking of the gauge symmetry. Also, this condition
is automatically satisfied by the generators of any simple subalgebras like
SU(2) or SU(3) of the gauge algebra. (tr{T,} is just a number which
commutes with all the Tp, so if it is non-zero then the algebra is not
simple.) Hence we only need to check that Eq. (22.4.3) is satisfied by the
U(1) generators of the gauge algebra, In the standard model, the sum of
the values of the weak hypercharge y for all left-handed fermions is

Zy/g’=6(—é)+3@) +3(—-%)+2G) +(—1)=0,

so there are no gravitational anomalies in the standard model currents.
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The requirement of vanishing of anomalies may be used as a guide 1n
formulating realistic theories. For instance, the values of the weak hy-
percharges y for various SU(3) x SU(2) multiplets were originally taken
from experiment, but one may wonder why these weak hypercharges {(and
the corresponding average electric charges in each multiplet) take the ob-
served values. To answer this question, suppose we assign arbitrary weak
hypercharges a, b, ¢, d, and e to the multiplets (u;,d;), ug, dg, (vi,eL),
and ey, respectively. The conditions for anomaly cancellation tell us that:

SU3)-SU3)-U(1):

Y y=2a+b+c=0;
33
SU2)-SU(2)-U(1):
Y y=3a+d=0;

doublets
U()-U(1)-U(1):
ZJ’3 =6a° +3° +33 +282 4+ =0 ;
graviton graviton U(1):
S y=6a+3b+3c+2d+e=0.

Aside from the possibility of interchanging ur and dg, these equations
have only two solutions, which we may call U(1) and U(1):

UuQ) : bja=—4, cfa=2, d/ja=-3, ela=6,
Uy : b=—c, a=c=d=e=0.

Furthermore, these solutions are exclusive; we cannot suppose that both
U(l) and U(1) are local symmetries, because then we would encounter
a U(lYy-U(1Y-U(1) anomaly proportional to {(—4) + (+2) # 0 and a
U(1)-U(1)-U(1) anomaly proportional to (—4)> — (4+2)? # 0. The U(1)
generator is just the weak hypercharge of the standard electroweak theory
(with the overall constant factor a absorbed into the definition of g'),
while the U({1Y symmetry resembles nothing observed in nature. This
little calculation provides a rational explanation of the assighment of y
values, or equivalently of electric charges, in the standard model, and it
shows that if all gauge anomalies must cancel within a single generation
of quarks and leptons, then it is not possible to couple a gauge boson to
any other U(1) quantum number, in addition to weak hypercharge.

On the other hand, although it is reasonable to guess that the SU(3) x
SU(2) x U(l) gauge bosons of the standard model may couple only to the
known quarks and leptons (both to explain why no other fermions have
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been discovered and to preserve the beautiful cancellation of anomalies in
the standard model), there may be other U(1) gauge bosons that couple
to other undetected (SU(3) x SU(2)} x U(1))-neutral fermions as well as
to the known quarks and leptons. Suppose we denote the U(1)’ quantum
numbers y* of the multiplets (ur,dr), ug, di, (vi,er), and ey as d, ¥,
¢/, d', and ¢, respectively. Since we don’t know anything about possible
(SU(3) x SU(2) x U(1))-neutral fermions, the requirement of cancellation
of the U(1)-U(1y-U(1) and graviton graviton-U(1) anomalies does not
help us to constrain a4, ¥, ¢/, d', or ¢. The remaining conditions of
anomaly cancellation tell us that:

SUB)-SU(3)-U1):

Yy =2d4b+=0;
3.3

SUQR)»-SU2)-UY:
Y V=34+d=0;

doubleis
U(1)-U(1)-U(l):
SOV = 6d + (=47 +3(2)°¢ + 2A=3d + (6% =0 ;
U1) -UQy-u(1y:
>y =6a" +3(=4)b? + 3(2)c” + 2(=3)d” + (6)¢? = 0.

The general solution has y’ a linear combination of y and a quantum
number B — L (where B and L are the conventional baryon and lepton
numbers) that takes values 1/3, —1/3, —1/3, —1, and +1 for the multiplets
(ur,dL), ug, dg, (vi,er), and ep, respectively. If B — L is a local symmetry,
with a coupling that is not many orders of magnitude smaller than e, then
it must be spontaneously broken, since ordinary bodies have macroscopic
values of B— L. To avoid conflict with observations of neutral currents, the
characteristic scale F of the symmetry breaking would have to be larger
than that of the electroweak interactions, but not necessarily many orders
of magnitude larger. Thus a neutral vector boson somewhat heavier than
the Z° and coupled to B — L seems like the most plausible addition to the
standard model.

This has all been for a single generation of the standard model. With
three generations there are many more anomaly-free symmetries. One class
of symmetries that are not broken by anomalies or (as far as we know) by
anything clse consists of the differences in the numbers of leptons of the
various flavors. Together with B— L, this will be important in Section 23.5
in classifying the baryon- and lepton-non-conserving processes produced
by anomalies.
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22,5 Massless Bound States”

It is sometimes speculated that quarks and leptons may be bound states
of more fundamental particles. If these hypothetical fundamental par-
ticles had asymptotically free gauge interactions, like those in quantum
chromodynamics, then we would expect them to be trapped, which would
explain why they are not observed. However, there 1s a difficulty with
this picture. No internal structure of the quarks and leptons has ever
been observed, so the characteristic energy scale A’ (analogous to the
A ~ 200 MeV of quantum chromodynamics) of these gauge interactions
must be very high. For instance, as remarked in Section 12.3, the agree-
ment between theory and experiment for the magnetic moment of the
muon indicates that A’ > 3 TeV. But, aside from Goldstone bosons, we
would normally expect the bound states in such a theory to have masses
of order A/, or perhaps 2nA’, just as in quantum chromodynamics the
proton mass is of order 2rAgcp. This expectation is of course in sharp
contradiction with the fact the observed masses of the quarks and leptons
are much less than A’. To put this problem another way, if the leptons
and quarks are bound states, then why is their size (as measured by
anomalous magnetic moments, etc.) so much smaller than their Compton
wavelengths?

One way to answer this question is to suppose that, unlike quantum
chromodynamics, this theory has unbroken chiral symmetries that keep
the quarks and leptons massless, aside from small corrections from other
interactions. In general, a chiral symmetry is any symmetry for which the
massless elementary fields of some given helicity (including the complex
conjugates of the fields of opposite helicity) furnish a complex represen-
tation. By operating on the vacuum with products of the elementary
fields we can construct other states of definite helicity that also furnish
complex representations of these symmetries. If any of these states are
actual composite particles then they must be massless, because all helic-
ity components of the state of a massive particle must furnish the same
representation of any symmetry that commutes with rotations, so a given
helicity component of a particle together with the antiparticle of the op-
posite helicity component would together furnish a real representation. Of
course, it may not be so easy to tell which of the states constructed in this
way cotrespond to actual composite massless particles, but if they do, their
masslessness is natural, because in order for some massless particles of a
given helicity that belong to a complex representation of the symmetry

* This section lies somewhat out of the book’s main line of development, and may be
omitted in a first rcading.
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group to become massive as we change some parameter of the theory,
their symmetry properties would have to change discontinuously from a
complex to a real representation.

Although this reasoning shows that there are theories in which it is
natural to have massless or very light composite particles, it does not
give any indication of when this actually happens. The question is an
interesting one, quite apart from the problem of understanding quarks
and leptons as possible composite particles. 't Hooft!6 has suggested
a powerful way of answering this question, based on considerations of
anomalies. Briefly, if the underlying theory has global chiral symmetries
(not broken by gauge anomalies, and not spontaneously broken) consisting
of transformations on the elementary left-handed spin ! fermions (and
antifermions) y with symmetry generators Ty, Tp, etc., and if the anomaly
constant tr[{T,, Tz} T,] of these global symmetries is non-zero, then the

spectrum of bound states must include spin ! massless particles on

2
whose left-handed states the same symmetries induce transformations

with generators J ., 7 , etc., with the same anomaly constant
tr[{F 0, T3} T,] = tr[{Ty, T} T,] . (22.5.1)

't Hooft’s argument was as follows. Imagine that some weakly-
interacting gauge bosons are coupled to generators T,, Tg, etc. of the
global symmetries of the underlying theory. Suppose also that although
some of the coefficients Dy, = tr[{ T, T} T,] are non-zero, this anomaly
is cancelled by anomalies due to other ‘spectator’ massless fermions, which
do not feel the strong forces that trap the constituents of the composite
particles. Physical processes at energies much less than the characteristic
energy scale A’ of the trapping interactions will be described by an effective
Lagrangian in which the trapped fermions do not appear. If the symme-
tries with generators Ty, Tp, etc. are not spontaneously broken, then there
are no Goldstone bosons, so the only particles in this effective Lagrangian
will be the weakly coupled gauge bosons and spectator fermions, plus any
massless bound states of the trapped fermions and strongly interacting
gauge bosons. The consistency of the effective field theory requires that it
must be anomaly-free, but the spectator fermions by assumption have an
anomaly constant equal to —Dyg,, so there must be massless bound states,
to provide an anomaly constant equal and opposite to this, and hence
equal to that of the original trapped fermions."”* Note that this argument

** 1t remains to show that these particles must have spin % We are assuming that there
are no Goldstone bosons here, and that other spinless particles would not naturally be
massless. The elementary gauge bosons of the thcory are assumed neutral under the
anomalous symmetry transformations, so they could not contribute to the anomaly.
Composite particles of spin j > 1 are ruled out by a different argument.’%? This is
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works no matter how weak are the gauge interactions with generators 7,
Tg, etc., so these gauge bosons and the untrapped fermions do not have
to be real particles to reach the conclusion that the massless spin § bound
states reproduce the anomalies of the trapped elementary spin 1 fermions of
which they are composed.

As a simple example, suppose that the underlying theory contains » *fla-
vors’ of massless fermions, each of which has both left- and right-handed
parts in the defining representation N of an asymptotically free SU(N)
gauge group. We require N to be odd so that there can be untrapped
SU(N)-neutral fermionic bound states. Just as in quantum chromodynam-
ics, this theory has an automatic global SUp(n}x SUg(n)x Uy (1) symmetry,
with the left- and right-handed massless fermions respectively in its (n, 1)
and (1, n) representations, both having equal values for the Uy (1) quantum
number, which can be taken as unity. There are non-vanishing anomaly
constants in the underlying theory for the SU(n)-SU(n),—U(1)y and
SU(n)r—SU(n)r—U(1l)y current triplets, which have the values

Dorpro = Darpro = Ndgp ,

where a, b, etc. label the SU(n) generators 4,, normalized so that in the
defining n-component representation tr{l,Ap} = L1é4. For n > 2 there
are also non-vanishing anomaly constants for the SU(n) -SU(n).-SU(n)1.
and SU(n)g—S U(n)g—SU(n)g currents, equal to

Dyrprer = Darprer = Nitr[{Aa, 4p}, Ac]

We suppose here that the SUL(n) X SUgr(n) x U(1) symmetry is not
spontaneously broken. Because of trapping, the only fermionic bound
states in the physical spectrum will be contained in representations of this
symmetry that can be formed from m; and mp elementary fermions of
helicity 4+ 1 and — 1, respectively, and /m; and /g of their antiparticles,
with

my + mg — iy, — mg = kN | (22.5.2)

where k is any positive or negative odd integer. In consequence, the only
irreducible representations (r, s) of SU(n);, x S Ur(n) encountered are those
for which r is in the direct product of my, of the defining representations of

a theory in which the anomalous currents can be constructed as Lorentz four-vector
functions of the elementary spin 1 fields, and in order to contribute to the anomaly
these currents would have to have non-vanishing matrix elements between any massless
composite particles of spin j = 1, which would violate Lorentz invariance. Massless
composite particles of spin j > 3/2 are ruled out because in this theory it is also
possible to construct a conserved energy-momentum tensor, which would have to have
non-vanishing matrix elements between these massless composite particles, which for
j = 3/2 would also violate Lorentz invariance.
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SU(n) and my, of their complex conjugates, while s is in the direct product
of mp of the defining representations of SU(n) and mg of their complex
conjugates, and the U(1)y quantum number is kN, with k, m, mg, iy,
and /g subject to Eq. (22.5.2). Let p(r,s,k) be the number of times an
irreducible representation (r,s) of SUy(n) x SUg(n) with U(1)y quantum
number kN appears among the helicity + ! bound states. Eq. (22.5.1)
then reads

S s W T o, TR T = N tel{da p}Ad ,  (22.5.3)

r.sk

> " p(r, s, k)dsk trV [T g, T3] = tr[{Aa, 1)1, (22.5.4)

r5.k

where tr'") denotes the trace in the irreducible representation r of SU(n),
and d; is the dimensionality of representation s of SU(N). The only other
constraint on the p(r, s, k) is that they must be positive integers.

The complex conjugate (7,35, —k) of any representation (r,sk) of
SUR)L x SU(2)g x U(l)y has values of the traces tr)[{F,, 73}7,]
and ktrV[{7,, 7}] opposite to those of the representation (r,s,k), so
Eqgs. (22.5.3) and (22.5.4) only restrict the values of

Z(ra Ssk) = p(ra S,k) — p(?s S, _k) .

Recall that in the notation we have been using here, these traces are
over all massless bound states of helicity + !, including the antiparticles
of the massless bound states of helicity — 1, which transform according
to the complex conjugate representations. The complex conjugate of any
representation of SU(2), xSU(2)gr x U(1)y has values of tr(")[{tf’/"a, T} T )
and k tr"”[{7,, 7}] opposite to those of that representation. Thus we
can sum in (22.5.3) and (22.5.4) only over the representations with U(1)y

quantum number kN > 0
S s kydo tt (T o, Ty T o] = Ntr[{Aa, s} 2], (22.5.5)

r.5k>0

3 A, s, kydk 'O T 0, T 5] = trl{ Ay, As)] (22.5.6)
r.sk=0

with #(r,s,k) equal to the number of times an irreducible representation
(r,s) of SUL(n) x SUr(n) with U(1)y quantum number kN > 0 appears
among the helicity + | bound states, minus the number of times the same
representation appears among the helicity — 1 bound states. (If parity is
unbroken then a representation r, s,k must occur among the helicity — !
bound states as often as the representation s,r, k occurs among the helicity
+ 1 bound states, so in this case £(r,s,k) = —£(s, r,k).)

First, consider the case of n = 2 flavors. There is no way of coupling
three three-vectors together symmetrically to make an SU(2)-invariant,
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so both sides of (22.5.5) vamish automatically, leaving only the condition
(22.5.6). The defining two-component representation of SU(2) is contained
in the product of any odd number of these two-component representations,
so0 we can always find a solution of (22.5.6) with £{(r,s,k) = 0 for all
SU(2)r, x SU(2)r x U(l)y representations with » non-trivial except the
one in which r is the defining representation, s is the trivial representation,
and k = 1, for which we take /£ = 1. Unfortunately, this solution is far
from unique — there is an infinite number of ways of reproducing the
anomalies of the underlying theory.

For general n and N il is usual to find many solutions of Eqgs. (22.5.5)
and (22.5.6), but there are some cases where no solutions can be found.
In such theories we can reach the conclusion that the SU(n) x SU(n)g X
U(1)y symmetry must be partly or completely spontaneously broken. This
has particularly interesting implications for quantum chromodynamics, so
let us now specialize to the case of an SU(3) gauge group.

To be concrete, we will focus on the representations, with k = 1 and
my, = mg = 0, that can be formed from just three elementary fermions
and no antifermions. These are:'

(a) r is the symmetric third-rank SU(n) tensor; s is the trivial representa-
lion.

(b) r is the antisymmetric third-rank SU(n) tensor; s is the trivial repre-
sentation.

(c) r 1s the third-rank SU(n) tensor of mixed symmetry; s is the trivial
representation.

(d) r is the symmetric second-rank SU(n) tensor; s is the SU(n) vector.
(e) r is the antisymmetric second-rank S U(n) tensor; s is the S U(n) vector.
(f) r 1s the SU(n) vector; s is the symmetric second-rank SU(n) tensor.
(g) ris the SU(n) vector; s is the antisymmetric second-rank S U(n) tensor.

(h) r is the trivial representation; s is the symmetric third-rank SU(n)
tensor.

(i) r is the trivial representation; s is the antisymmetric third-rank SU(n)
tensor.

(i) r is the trivial representation; s 1s the third-rank SU(n) tensor of mixed
symmetry.

t All SU(N) vectors and tensors here are understood to be contravariant.
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For n > 2, Eqgs. (22.5.5) and (22.5.6) here read
J(n+3)n+6)u + 1(n—3)n—6)p + (n° — 9)c + nin+4)¢y
+a(n— 4 + nl(n+ 1)+ inP(n— 1)ty =3 (22.5.7)
and

Yn+2)n+3)e+ i(n—2)n—23)p+ (n* = 3)c + n(n+ 2)¢;
+n(n — 2.+ In(n+1)r+ n(n—1),=1. (22.5.8)

There is no problem in satisfying Eq. (22.5.7), but note that if n is a
multiple of three then for all values of the /s, each term on the left-
hand side of Eq. (22.5.8) is also a multiple of three, which makes it
impossible to satisfy this condition. We conclude in particular that the
SUQB)L x SU(3)r x U(l)y symmetry of quantum chromodynamics with three
Jlavors of massless quarks must be spontaneously broken. This result is not
limited to the representations (a)-(j), but applies to any representations
of SU(3). x SU(3)r x U(l)y that can be formed from color-neutral
combinations of quarks and antiquarks.

% % %

Aside from special cases such as an SU(3) gauge group with n = 3
elementary fermion SU(3)-triplets, the 't Hooft anomaly matching condi-
tion is not very restrictive; in general it allows a wide variety of massless
bound states when chiral symmetry is unbroken. ’t Hooft also proposed
a decoupling condition, which requires that when one or more of the ele-
mentary fermion flavors become very heavy there should be no unbroken
chiral symmetries that prevent composite particles that contain heavy el-
ementary fermions from acquiring masses. For instance, in the case of an
SU(3) color gauge group, if we give one of the n quark types a large mass
then those three-fermion bound states that contain a single massive quark
will furnish representations (', s") of the group SU(n—1) x SU(n—1) that
are either

(v) r" is the symmetric second rank SU(n — 1) tensor; § is the trivial
representation,

(w) r’ 1s the antisymmetric second rank SU(n — 1) tensor; s’ is the trivial
representation,

(x) v’ and s’ are SU(n) vectors,

* In Ref. 16, 't Hooft assumed that parity is not spontaneously broken, so he gave these
formulas for the case where £, = ¢, 64 = —¢,, {, = —¢;, {4 = —/¢, and £, = —£,.
As we see here, the main conclusion does not depend on parity conservation.
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(y) r’ is the trivial representation, s’ is the symmetric second rank SU(n—1)
tensor,

(z) v’ is the trivial representation, s’ is the antisymmetric second rank
SU(n — 1) tensor.

In order for the three-fermion mass state to acquire a large mass, it is
necessary that //(r',s") = 0, where £/(r'.s') is the number of times that
an irreducible representation (r',s’) occurs among the helicity + ! bound
states minus the number of limes the same representation appears among
the helicity — i bound states. By inspecting the list of three-fermion
representations (a)—(j) of SU(n) x SU(n) to see what representations of
SU(n—1)x SU(n— 1) they vield, we see then that the 't Hooft decoupling
condition requires that?

O0=¢,=Clo+lc+144,
0=/, =0+ 0+ L,
0=/, =fr+lg+la+Le, (22.5.9)
0=f;,=ff+fh+fj,
0=f;=fg+fi+fj.

Unfortunately, in most cases there are still an infinite number of solutions,
though there are no solutions in which the /s are n-independent integers.

The decoupling condition seems quite plausible, but its use by ’t Hooft
was questioned!” on the ground that, as one or more fermion masses
increase, one usually encounters phase transitions that make the mass
spectrum different from what it would be for small fermion masses. There
is a stronger condition, known as the persistent mass condition, which
requires that when one or more of the elementary fermion flavors acquire
any mass, there should be no unbroken chiral symmetries that prevent
composite particles that contain these massive elementary fermions from
acquiring some masses.”” If valid, the persistent mass condition would
lead to the same consequences, such as Eqs. (22.5.9), that were described
by 't Hooft, with no chance of being invalidated by phase transitions.

It is easy to construct non-realistic models in which the persistent
mass condition is violated, such as theories with spontaneously broken
non-chiral symmetries, which lead to massless Goldstone bosons formed
as composites of massive fermions.!” (These models also exhibit phase
transitions with increasing fermion masses, which invalidate 't Hooft’s
conclusions from the decoupling condition.}) But the work of Vafa and

" 1n the parity conserving case studied by 't Hooft, the fourth and fifth equations are
identical to the first and second, while the third is empty.
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Witten discussed in Section 19.9 shows that, in a variety of more realistic
QCD-like theories, non-chiral symmetries cannot be spontaneously bro-
ken, so this should not be taken as a serious objection to the persistent
mass condition.

22.6 Consistency Conditions

The numerical coefficient appearing in the anomaly for any symmetry
depends on the matter content of the theory. On the other hand, the form
of the anomaly is largely independent of the details of the theory, because
it is governed by consistency conditions, first presented in 1971 by Wess
and Zumino.!8

Even when we are interested in anomalies in global symmetry currents,
in order to derive the consistency conditions it is convenient to imagine
that all symmetry currents are coupled to gauge fields, which for non-
Abelian symmetries also couple to each other, in such a way that these
symmetries become local symmetries of the Lagrangian density. We can
always return to the case of global symmetry by letting the corresponding
gauge coupling constants become infinitesimal. Apart from anomalies,
the effective action I'[4] in a background gauge field A,,(x) will in
this formalism be invariant under infinitesimal transformations Az,(y) —
Ag(y) + i [ d*xe4(x) T 4(x) Ag,(y) on the gauge ficld, where in order to
reproduce the transformation (15.1.9) we must take

o & 5
axF 0Agy(x) C“ﬁ?Aﬁ“(x)aAw(x) ‘

— T y(x) = — (22.6.1)

Taking anomalies into account, 7 4(x) no longer annihilates ['[4], but
rather
T o(x)L[A] = Galx;A4] , (22.6.2)

where G,[x; A] represents the effect of the anomaly. Eq. (22.6.2) may also
be written as a formula for the covariant divergence of the expectation
value of the current:

D, (JE(x)) = —iGy[x; A] , (22.6.3)

where

D = 5

and D, is the gauge-covariant derivative (15.1.10), taken here in the adjoint
representation with (tg),s = —iCagy.

[[A] (22.6.4)
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The Wess—Zumino consistency conditions follow from the commutation
relations”

[T 0(x), 7 §(¥)] = iCapy6*(x — Y)Ty(x) . (22.6.5)
From Eqgs. (22.6.2) and (22.6.3), we derive the general consistency condition
T a(x)Gply; Al — T p(x)Guly; A] = iCyp,6*(x — y)Gy[y; 4] . (22.6.6)

These consistency conditions were originally derived by Wess and Zu-
mino for the chiral SU(3) x SU(3) symmetry of the strong interactions,
a special case of physical as well as historical importance. Here the
generators 7 ,(x) acting on the gauge fields consist of the even parity
generators #,(x) defined by Eq. (22.3.31), and the odd parity generators
¥ a(x) defined by (22.3.32)."" They satisfy the commutation relations

[% a(x), W p(y)] = i6*(x — y)f ape Y (),
[ a(x), X p(¥)] = i6*(x — y)f abe X () .

[Za(x), Xp(yN} = i6*(x — y)fape W c(x)

where fap. are the SU(3) structure constants. Since the SU(3) subgroup
generated by the %, is not spontaneously broken, it is convenient to
treat the integration over fermion momenta in such a way as to preserve
invartance under gauge transformations generated by %, so that

Wa(x)I' =0,
leaving us with the non-zero anomaly
Za(x)T = Ga(x).
The non-trivial consistency conditions are then
Y o(x)Gp(y) = i6*(x — y)f abeGe(x)
and
T o(X)Gy(y) — Zp(x)Galy) = 0.

The first of these simply says that G,(x) transforms like an octet under
ordinary SU(3) transformations. The second condition imposes other
strong constraints on G,(x). The reader may check that this condition is

* The factor —i was inserted in Eq. (22.6.1) in order to provide the conventional factor +i
accompanying the structure constant C,g, in this commutation relation. A reminder:
we are using a basis for the Lie algebra in which the structure constants are totally
antisymmetric, and so we do not distinguish between upper and lower gauge indices.

" Another reminder: as mentioned in Section 22.3, the 2, and %, used here are what
were called Y, and X, in Ref. 8.
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satisfied by the Bardeen formula (22.3.34) for G,(x). We will not go into
this here, but will instead use as an illustration a general gauge theory with
all currents treated symmetrically. In Section 22.3 we quoted the formula
(22.3.38) for the anomaly in this case, but did not derive the terms in this
formula of higher than second order in the gauge fields. Here we shall
show that these terms are dictated by the consistency conditions (22.6.6).

For this purpose, and also to allow for further generalizations, it is very
convenient to reformulate the set of Wess—Zumino consistency conditions
as a condition of invariance under the BRST transformations described
in Section 15.7. Let us introduce a ghost field w,, and define the nilpotent
BRST operator s for a general gauge theory by

SAouu = B#wa + Caﬁ?Aﬁ#w? . (22.6.7)
Sy = — %Cangﬁwv , (22.6.8)

it being understood that s satisfies the distributive rule s(4B) = (s4)B +
A(sB), the sign being negative where A is a fermionic quantity like w,, and
otherwise positive. In place of the anomaly function G,[x;A], we shall
work with a functional

Glw, A] = / 0a(x) G [x: A] d*x , (22.6.9)
Then (keeping in mind that w, is fermionic)

sGlw, A] = — 1Cyqpy [d4x wg(x) wy(x) Gy lx; A]

dGylx;
—/d“x wa(x)/d4 {awg(y) + CayaAyu(y)ws(y) —(SEEJC(—;;]
i

B / d*x / &y 0u(x) 0p(y) | = 1Ca,d*(x — Y)G,x: 4]
+ 1.7 p(y)Ge [x;A]] :

Because the ghost fields anticommute with each other, this can be written

sGlw, A] = — i f d*x / d*y wy(x) wp(y)
[zcxﬁyé (x = V)G, [x; 4] + T p(0)Gulx; 4] — Tu(x)Gy(y)]

We see that the consistency condition (22.6.6) will hold if and only if
G[w, A] is BRST-invariant

sGlw, A] = 0 (22.6.10)

for all ghost fields wy(x).
Now consider the possibility that the anomaly G[A4; w] could be written
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as the BRST operator s acting on a local functional F[A]:
GlA;w] = sF[A] . (22.6.11)

(Note that the functional F is necessarily independent of the ghost field,
because the operator s adds one ghost field factor, and the anomaly
functional G is already linear in the ghost field.) The BRST operator
satisfies s2 = 0, s0 such an anomaly would satisfy the consistency condition
sG = 0. If F[A] is a local functional® of the gauge field, then it could be
subtracted from the action, thus cancelling the anomaly. The same is true
of any term in the anomaly that can be written as the BRST operator s
acting on a local functional; such a term satisfies the consistency condition
by itself, and can be cancelled by adding a local term to the action. The
possible anomalies that interest us are thus the local functionals G[w; A]
of ghost number unity that satisfy the consistency condition (22.6.10),
modulo terms that can be expressed as s acting on some local functional
of ghost number zero. In accordance with the usual terminology for
nilpotent operators, the equivalence classes of such functionals form what
is called the cohomology of the s operator at ghost number unity.

We can also express this in terms of the local densities themselves. We
can write the anomaly (or any term in the anomaly) as G = [ d*x %(x),
where %(x) is a power series in the gauge and ghost fields and their
derivatives at the spacetime point x. The condition sG = 0 then is
equivalent to the statement that

sH(x) = 0, #H(x) (22.6.12)

for some function ##(x) of fields and field derivatives. Likewise, the terms
in % that can be cancelled by adding local terms to the action are those
that are of the form s% up to possible derivatives. Thus the anomalies
that interest us are the local functions of ghost number unity that satisfy
the consistency condition (22.6.12), modulo terms that can be expressed as
s acting on some local functional of ghost number zero, modulo possible
derivatives. This is known as the cohomology of s at ghost number unity
in the space of local functions, modulo derivatives, and denoted H'(s|d).

Algebraic methods have been used to work out the cohomology of the
BRST operator s, and thereby deduce the form of the anomaly in general
gauge theories.!” This approach leaves unknown only constant coefficients
that depend on the matter content of the theory and need to be calculated
by the methods of Sections 22.2 or 22.3. Since we have already calculated
the terms in the anomaly of second order in the gauge fields for general
gauge theories, including their constant coefficients, here we will use the

T By a local functional is meant the integral of a local function, that is, a function of
fields and field derivatives at a given point.
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consistency condition (22.6.12) to calculate the terms of higher order in
the fields.

We saw in Section 22.3 that when all currents are treated symmetrically,
the terms of second order in the gauge fields are one-third the expression
(22.3.26). This is an operator of dimensionality four (in units of mass),
while the Wess—Zumino consistency condition (22.6.6) relates only oper-
ators of the same dimensionality, so to satisfy this condition we should
add only terms of higher order in the gauge field that have the same
dimensionality. We therefore seek a solution of the consistency conditions
in the (not necessarily unique) form

i

G, = i[@y#ﬁ)]anom - _241:2

€V Ty { T, [6KAv 024, +ic10,A, A A,

+ic2 A 8, A1 A, + ic3Ac Ay 1A, — cad Ay A A } , (22.6.13)

where A, = A,, T, and the ¢; are constants to be determined.

In order to save a great deal of effort, it will be convenient to rewrite
this in the language of differential forms. (See Section 8.8.) We introduce
a set of c-number parameters dx* that are taken to anticommute with
themselves and all fermionic fields, such as the ghost field w,. The dx*
then also anticommute with the BRST operator s. Because dx*dx”dx*dx?
is totally antisymmetric, it may be written as

dx*dx’ dx*dxP = € d%x d*x = dx%dx'dxdx® . (22.6.14)
We also introduce the exterior derivative
0
— et Y
d=dx Fronl

which since derivatives commute is nilpotent as well as anticommuting
with s:

“=0, ds+sd=0. (22.6.15)
Finally, we introduce the anticommuting quantities
A =iA,dx! = iAy, T,dx* w=iw, T, . (22.6.16)

In this notation, Eq. (22.6.13) reads

Glw,A] = ﬁ /Tr {w [(dA)z + ci(dAYA?

+ 2 A(dAYA + c3A*(dA) + C4A4] } . (22.6.17)

In order to implement the consistency condition (22.6.10), we note
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that the BRST transformation rules (22.6.7) and (22.6.8) may be written
as

sA = —dw + {4, 0}, (22.6.18)
s = w?. (22.6.19)

Now, the BRST transformation of the last term in Eq. (22.6.17) is given
by

sTr [wA""] =Tr [w2A4 — 04, 0}4° + vA{A, 0} A?
—wA*{A,w}A+ wA*{A, co}A] + wdwA?® terms
= —Tr [w2A4] + wdwA® terms .

There is no other contribution to sG proportional to Tr [w2A4 , so the

consistency condition (22.6.10) can only be satisfied if ¢4 = 0. With ¢4 =0,
a straightforward calculation gives

_ 1 2,2
sG = W/Tr{_(dA) o' +wdoAdAd—dowdA A
—AwdAdo — wAdodA

+or|wdAdw 4 — wdA Ado]
+c [ dwdAA— wAdA dw}
+c3 ‘wdw AdA — wA dw dA]

—Cq -—wAde2+code3 +wdAA2w]

—cy -wAz doA— wAdw A® + wAdA dw]

—C3F—wA3dw+a)A2dcoA+wA2dAw]}.

We do not need to assume that the integrand vanishes, but only that
it is the derivative of some local function, so that its integral vanishes.
This condition must be satisfied separately for the terms involving two
derivatives and those involving one derivative, since no cancellation can
occur between terms with different numbers of derivatives. It is not hard
to see that the terms in the integrand involving just one derivative are of
the form d# if we take ¢; = —¢y = +¢3 = ¢. The remaining terms are a
total derivative if ¢ = —1/2, thus justifying the previously quoted result
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(22.3.38). This result is often expressed more compactly as

Gl A] = — /Tr{wd{AdA _ 1A3}}

2472 2
_ 1 /Tr {w d[AF + 1A3]} , (22.6.20)
2472 2
where F is the matrix-valued field-strength two-form
= lityFyy dx"dx’ = dA — 4? . (22.6.21)

The anomaly does not have to be put in the form (22.6.13), so Eq. (22.6.20)
is not the unique result for G[w, A]. Results quoted in the next section

show that, for any subgroup H of G for which Tr {t,-{t js tk}} = ( for all

generators of H, it is possible to add local terms to the action in such a
way that the anomaly G; vanishes when ¢; is any generator of H.

There is an elegant algebraic tool, known as the Stora—Zumino descent
equations,!%® for constructing a solution of the consistency conditions. It
is just as easy to describe this method in a spacetime of any even dimen-
sionality as in four spacetime dimensions, so we will take the spacetime
dimensionality to be 2n. To start, one must imagine that at least two
additional variables have been added to the 2n coordinates of space and
time, in order to give meaning to the (2n + 2)-form Tr F"*!. Note that

dF = —d(A%) = —(dA)A + A(dA) = [A, F] , (22.6.22)
so that Tr F*™t! is closed:
dTr F*"™' = (n+ 1)Tr {(dF)F"} = Tr {[A,F"™']} =0 . (22.6.23)

As long as the extended spacetime is simply connected, Poincaré’s theorem
then tells us that Tr {F"*1} is exact, in the sense that there is a (2n41)-form
Q,+1 (known as the Chern—Simons form), for which

Tr{F™2 —d 0y, . (22.6.24)

Further, Tr{F"*!} is manifestly gauge-invariant and depends only on the
gauge field, so it is BRST-invariant:

sTr{F*1 =0. (22.6.25)

The ‘differentials’ dx* are understood to anticommute with fermionic fields
like the ghost field w,, so the operator d anticommutes with the operator
s defined by Eqs. (22.6.7) and (22.6.8):

sd +ds=0.
Because s is nilpotent, it follows then that sQ»,. is also closed:
d(s Qonit) = —sTr {F**11 =0
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Again using Poincare’s theorem, this means that there must be a 2n-form

Q) of first order in w,, for which

sQouyy = d, . (22.6.26)
Furthermore, d(s Qﬁn) = —s?’Qy,.; = 0, so there is also a (2n — 1)-form
Q3 _,, of second order in the ghost field, for which

sQ) =d03 | . (22.6.27)

It follows than that the integral of Ql over the 2n dimensions of space
and time is BRST-invariant:

s / Q, =0, (22.6.28)
spacctime

even though Q, is not itself BRST-invariant. We can thus find a candidate
fQl for the anomaly functional G[w, 4] by integrating the two first-order
differential equations dQp,4y = Tr{F>} and dO} = s0),.,. General (not
unique) solutions of these equations are

it = (n+ 1) /0 it Tr {aFy, (22.6.29)
Qb = n(n+ 1)/01 dr(t =) Tr{wdd R}, (22630)

where F; = tF + (t — t?)A4%. Evaluation of the integral (22.6.30) shows that
Eq. (22.6.20) gives a result for G[w, A] proportional to [ Q} in the case of
four spacetime dimensions.

We can continue this descent, and derive other useful results. In
particular, it follows from Eq. (22.6.27) and the nilpotence of s that
d(sQ,_() = 0, so Poincaré’s theorem tells us that sQ3 _, is of the form
dQ3,_,, so the integral of Q3 , over the 2n — 1 coordinates of space is
BRST-invariant:

s 03, ,=0. (22.6.31)

space
Such BRST-invariant functionals of second order in the ghost fields are
candidates!® for so-called Schwinger terms.!®¢ Schwinger terms of the sort
that concern us here ariss as anomalous terms S, s(X,¥) in the equal-time
commutation relations of the time components of two symmetry currents:

Jo(x, 1), T3y, :)] = iCo JO(%, )07 (X — ¥) + Spp(x, ¥, 1) . (22.6.32)

(All operators in this paragraph are taken at the same time ¢, which
will henceforth not be shown explicitly.) From the antisymmetry of the
commutator we have S,p(X,y) = —Sg,(y,x), so all information about
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Sxp(X,y) is contained in the functional
S[w] = / & 1x 1y (%) 0p(¥) Sap(x,¥) (22.6.33)

Note that Sy4(x,y) depends in general on various matter and gauge fields,
s0 S[w] generally depends on these fields as well as on the ghost field
wy(X). Taking the commutator of Eq. (22.6.32) with a third current J,f,)(z),
contracting with wq(X) wg(y) we(z), integrating over x, y, and z, and using
the Jacobi identitics, we find

0= /dz"‘lx d*ly 2l (X) 0p(Y) 0y (2Z)

X [iCups S,6(2,%)0™ (x — ) + [72(2), Sup(x, )] -

On functionals of gauge and matter fields like Sxg(X,y), the action of
the BRST operator s is the same as that of a gauge transformation with
transformation parameter w,, so

$ Sap(X,y) = i[/dzn_lz @y (2) J(2), Sap(X, y)] .

Recalling Eq. (22.6.8), we find that the functional (22.6.33) is BRST-
invariant

sS[w] =0. (22.6.34)

Also, by adding terms to the currents we can change S[w] by terms of
the form sT'[w], so the set of possible Schwinger terms that could not be
removed by adding terms to the currents is given by the cohomology of
the BRST operator s at ghost number two — that is, by BRST-invariant
functionals § of second order in the ghost field that are not themselves of
the form sT. Eq. (22.6.31) shows that Q2 , is a candidate for such a
functional,

* F %

The analysis of anomalies given so far in this section is strictly applicable
only to anomalies in one-loop order. It is true that a theory with one-
loop anomalies in currents to which quantum gauge fields are coupled is
inconsistent, and therefore does not need to be studied in higher orders.
But the converse does not hold; if a theory with quantum gauge fields is
anomaly-free in one-loop order, we still need to show that anomalies are
absent in higher orders. Also, there is nothing inconsistent in theorics with
anomalies in global symmetries, such as the chiral symmetries of quantum
chromodynamics, and for these we need to know whether higher-order
corrections affect the anomalies.

Since BRST transformations act non-linearly on the fields, even in
the absence of anomalies we would not necessarily expect the quantum
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effective action I'[w, A] to be BRST-invariant beyond the one-loop ap-
proximation. As we saw in Section 17.1, beyond this approximation we
need to consider functionals not only of gauge and ghost fields but also
of their antifields. (The introduction of antifields i1s sometimes important
even in one-loop order for another reason: a local functional of fields
alone that satisfies the Wess—Zumino consistency conditions, and that is
not expressible as the BRST operator acting on a local functional of
fields alone, will not be a candidate anomaly if it can be expressed as the
antibracket of the action with a local functional of fields and antifields,
because in this case the anomaly can be cancelled by subtracting this term
from the action. This corresponds to a change in the action of the fields
combined with a change in the gauge symmetry obeyed by this action.)

The study of anomalies with antifields included in the action turns
out also to have a cohomological formulation.?®?! The analysis of this
problem is based on the Zinn-Justin version (17.1.10) of what Batalin
and Vilkovisky called the master equation. In the absence of anomalies
(I, T) = 0, so that in one-loop order (§,1"1) = 0, where S is the zeroth-
order action and I'; is the one-loop contribution to the quantum effective
action. In the presence of anomalies we have instead

(8.I'1) = Gy, (22.6.35)

where G; i1s some functional of fields and antifields which, since § and
I'} have ghost number zero, must have ghost number unity. The action
is assumed to satisfy the classical master equation (S,5) = 0, so the
antibracket operation in Eq. (22.6.35) is nilpotent, and therefore (S, G;) =
0. But if G; = (8, Fy) for some local functional F; of ghost number zero
then we can cancel the anomaly to one-loop order by subtracting the
term F; (which is treated as a quantum correction of order ) from the
action and hence from I'y. (Of course, G; = (§,I'1), but in the presence
of massless particles I'y is not a local functional) Thus the candidate
anomalies are those local functionals G; of ghost number unity that are
closed, in the sense that they satisfy (S, G;) = 0, but that are not exact,
that is, that cannot be expressed as G; = (8, F;) for local functionals F; of
ghost number unity. In other words, the candidate anomalies correspond
to the cohomology of the antibracket operation X +— (§,X) at ghost
number unity on the space of local functionals of the fields and antifields.
This is just like the result found earlier in this section, but with the
antibracket (8, - -) replacing the BRST operator s. If we set the antifields
equal to zero in Eq. (22.6.35) and recall that (6T")/6%"),:—¢ = sx", we find
that the condition (22.6.35) in fact yields the condition sI'y = 0, which
as we have seen is equivalent to the requirement that I'y satisfies the
Wess—Zumino consistency conditions. But there is a sense in which the
analysis based on Eq. (22.6.35) can be extended to higher orders.
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To see this, suppose that it is found that the antibracket operation
X +— (8, X) has an empty cohomology at ghost number unity in the space
of local functionals, and that we redefine the action as described above
to make Gy = (§,I'1) = 0. An anomaly that violates the master equation
(I, T") = 0 in two-loop order is represented by a function G, for which

(rl,rl) +2(S,r2) =G,.

But since (S,1"t) = 0 and (8, S) = 0, any such G, would satisfy (S, G,) = 0.
On the assumption of an empty cohomology, this means that it can be
expressed as Gy = (S, F) with F, a local functional of ghost number zero,
so in this order the anomaly can be cancelled by subtracting F» from the
action.

This argument can be extended to all orders. Suppose we have cancelled
the anomalies in the master equation up to order N — 1, so that

0=Gy = i (CeTw—r) =2(8.Tu) + Mi (Fe.Ta-r)
L—0 L=l

for all M < N. The Nth-order term in the antibracket (I",T") is likewise
N—1
Gy = Z(S,FN) + ) (FM,FN—M) :
M=t

s0, using the Jacobi identity (15.9.21) (in which for three bosonic operators
all signs are —) and the above formula for (§,Ty), we find:

N—1 M—1

(5.05) =22 (5.0} D) = 3 3 (T ues)o o)

This can be written in a more symmetric way

N—2 N2 N=2

(S,GN) == > > SNMMM, ((TMI, (ngng3)) :

M=t My=1 M;=1

Since the ranges of Mj, M), and M3 are the same, we can write the
double antibracket in this sum as a sum over the 3! permutations over
these indices, which vanishes according to the Jacobi identity (15.9.21),
leading to the conclusion that (S, Gy) = 0. If as assumed the cohomology
is empty then this implies that there is a local functional Fy for which
Gn = (8, Fn), so by subtracting Fy from the action the anomaly can be
cancelled in order N, as was to be shown.

Using purely algebraic methods Barnich, Brandt, and Henneaux?? have
succeeded in showing that for Yang-Mills theories (in four spacetime
dimensions) based on semisimple gauge groups, the cohomology of the



22.6 Consistency Conditions 407

antibracket operation X — (8, X) (at ghost number unity on the space
of local functionals) consists entirely of a lincar combination of terms
of the form (22.6.20), one for each simple subgroup of the gauge group,
with unknown coefficients.”t This shows without any reference to the
matter content of the theory that in one-loop order, where the anomaly
G; automatically satisfies (§,G;) = 0, the anomaly for a semi-simple
gauge group must be a linear combination of terms of the of the form
(22.6.20), with only the constant coefficient for each simple subgroup
left to be determined by detailed calculations that take into account
the matter content of the theory. Further, we saw in Section 22.4 that
there are gauge groups for which the trace in Eq. (22.6.20) vanishes
automatically for any menu of fermion fields. (These are the semisimple
gauge groups with no SU(n) factors with n > 3.) In such cases the theorem
of Ref. 22 shows that the cohomology of the antibracket operation
X — (§,X) at ghost number unity is zero. As we have seen, this means
that in such theories there is no anomaly in any order of perturbation
theory.

There 1s another sense in which the anomaly is related to the cohomol-
ogy of the antibracket operation.”® In deriving the Slavnov-Taylor identity
(16.4.6), we assumed that the measure [], , dx"(x) is invariant under the
symmetry transformation in question. In Section 159 the Zinn-Justin
equation was derived from the Slavnov—Taylor identity for the symmetry
transformation " — " + 038 /dyk, so the derivation of the Zinn-Justin
equation given in Section 15.9 breaks down unless [, , d¢"(x) is invariant
under this transformation, or in other words unless AS = 0, where A is
the operator (15.9.34). Where AS = 0, it still may be possible to save
the Zinn-Justin equation by adding local functionals to S that violate the
classical master equation (S,S) = 0 in such a way as to cancel the effect
of the non-invariance of the measure. It turns out that the condition for
this cancellation is nothing but the quantum master equation (15.9.35). To
construct an action § that satisfies this equation, we start with a zeroth-
order action So that satisfies the classical master equation, (S, So) = 0,
and add quantum corrections. In the case in which the cohomology of
the operation X — (Sp, X) (at ghost number unity in the space of local
functionals) is empty, the same proof that was used above to show the
absence in this case of anomalies to all orders can be used to show that a
local functional can be added to Sy so that the quantum master equation
is satisfied to all orders.

T 1t is not necessary to specify the representation of the gauge algebra in which the trace
in Eq. (22.6.20) is 1o be calculated, because this trace is the same up to a constant
coefficient for all representations of a simple Lie algebra,'® and the constant coefficient
1s not determined anyway by this cohomology theorem.
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22.7 Anomalies and Goldstone Bosons

In the same 1971 paper in which they introduced the consistency con-
ditions, Wess and Zumino'® also noted that the possibility of anomalies
has important consequences for the interactions of Goldstone bosons. To
understand their point, it is helpful to apply the ‘anomaly matching’ ar-
gument developed by 't Hooft!® in 1979, which has already been used in
Section 22.5.

Consider a broken global symmetry group G that is realized linearly
in some underlying theory of trapped massless fermions, as for instance
the global chiral SU(3) x SU(3) symmetry in quantum chromodynamics
with three massless quarks. In this underlying theory introduce fictitious
gauge fields, so that aside from possible anomalies the global symmetry
G becomes local. In general this local symmetry will be broken by
anomalies, since in the real world the symmetry is purely global, and there
is no reason why a global symmetry should admit an extension to an
anomaly-free local symmetry. However these anomalies can be cancelled
by adding suitable massless spectator fermions. As long as the gauge
couplings introduced in this way are sufficiently small, and the spectator
fermions have only these very weak gauge interactions, the dynamics of
the theory will not be substantially changed by these modifications.

Next consider the effective field theory that describes physics at low
energy, where the trapped fermions are unobservable. The only degrees
of freedom in this theory will be the massless particles: the fictitious
gauge bosons and spectator fermions, and a set of Goldstone bosons
with fields &,, one for each independent broken symmetry. Since the
underlying theory had been made gauge-invariant and anomaly-free, the
same must be true of the effective field theory. But the spectator fermions
produce an anomaly which had previously cancelled the anomaly due to
the trapped massless fermions in the underlying theory, so in order for
them to cancel the anomaly duc to the Goldstone bosons, the gauged
effective field theory of the Goldstone bosons must have an anomaly for the
Sictitious local symmetries which is equal to that produced by the trapped
Jermions in the underlying theory. That is, in place of Eq. (22.6.2), the
effective action I'[&, A] of the fictitious gauge fields and Goldstone bosons
is subject to the condition

T 3(x)T[E, A] = Gylx; 4], (22.7.1)

where Gg[x; A] is the anomaly function of the underlying theory, in which
there are no Goldstone bosons, and 74 is a generator of the gauge
group G, now acting on both gauge and Goldstone boson fields. (The
index § on 7 g runs over values i labelling a complete set of independent
generators %; of the unbroken symmetry subgroup H, together with values
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a labelling a set of independent broken symmetry generators Z,; there is
one Goldstone boson field &, for each ,.)

Of course, Eq. (22.7.1) may also be used to study the interactions of
Goldstone bosons with real weakly coupled gauge fields. For instance,
where the underlying theory includes electroweak gauge bosons coupled
to the quarks, we would identify some of what we have called ‘“fictitious’
gauge fields with the electroweak gauge fields. In such cases some of the
‘spectator’ fermions must also be real, in order to cancel the anomalies
produced by loops of trapped fermions in the gauge symmetries of the
real weakly coupled gauge fields, as for instance the leptons cancel the
electroweak anomalies produced by the quarks,

Now let us turn to the implications of Eq. (22.7.1). To calculate the
gauge symmetry generator 7 g(x) in this context, note that under a general
group transformation g = exp(—i f {3(x).7 p(x) d*x), the Goldstone boson
fields &,(x) transform into fields & (x) given by Eq. (19.6.18), and the
gauge fields A;(x) transform into gauge-transformed fields A"y(x), so that

T y(x) = TH(x)+ T 5(x) . (22.7.2)
Here ﬁ(x) acts on the gauge fields and is given by Eq. (22.6.1):

0 0 o

— CpyuAyp(X)——— 2273
G Ay s (227)

—iT4(x) = —

where C,g, are the totally antisymmetric structure constants of the gauge

group G, while 7 fj(x) acts on the Goldstone fields and is given by the
infinitesimal limit of Eq. (19.6.17), which (for the exponential parameteri-
zation y(&) = exp(ié,X,)) reads:”

Ty exp (iEu(x)Xa) = —T 5(x) exp (ia(X)Xa) + exp (iEa(x) Xa) O5i(x) Y,
(22.7.4)

Here Ty are matrices representing the generators of G in any represen-
tation; they are divided into sets X, and Y;, which represent the broken
and unbroken symmetry generators, respectively. Also the 0g;(x) are
¢-dependent functions whose form will not concern us here.

About the anomaly functions Gg[x; 4], we will assume only the consis-
tency conditions (22.6.6)

T(¥)Gyy; A = T p(x)Guly; A] = iCap,6*(x — )G [v: 4] (22.7.5)

* The minus sign in the first term on the right-hand side of Eq. (22.7.4) and the factor
—i on the left-hand side of Eq. (22.7.3) appear because it is exp[—i [ Ag(x)7 y(x)] that
induces a gauge transformation (15.1.17) with gauge parameter Ay, as can be scen by
requiring the 7 g(x) to satisfy the commutation relations (22.6.5).
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and the absence of anomalies in the unbroken symmetries
Gi[x;A] =0. (22.7.6)

As mentioned in the previous section, as long as the trace Tr [Ti{ T}, Ty }]
vanishes for the generators of unbroken symmetry subgroup (as it does
for the non-chiral generators of S U(3) x SU(3)), it is always possible to
add a local functional to the action so that Eq. (22.7.6) is satisfied.

Under the assumptions (22.7.5) and (22.7.6), it is always possible to find
a solution of the anomalous Slavnov-Taylor identities (22.7.1):

1
I, A] = —i [0 dr / E(y) Gylys Aec] dy (22.7.7)

where [A_;:(x)], is the result of acting on A, = TyA.p with a gauge
transformation (15.1.17) having A, = —t£, and A; = 0:
[A—té(x)]u = exp (—it X &(X)) A;t(x) exp (itX,;&a(X))
—i[3,0xp (—itXoLa(x)) | exp(itXala(x)) .  (22.78)
In contrast with the case in which unbroken symmetries have anomalies,
Eqgs. (22.7.7) and (22.7.8) define a local (though complicated) functional of
gauge and Goldstone boson fields. Any other solution of Eq. (22.7.1) will
differ from this one by an anomaly-free functional.
Here is an outline of the proof?* that the action (22.7.7) satisfies

Eq. (22.7.1). Instecad of working with the local generator 7 g(x), it is
convenient to introduce an arbitrary function ng(x), and define

T = / d*x np(x)T 4(x) . (22.7.9)
To evaluate 7 [#]&p(x), we introduce the matrix

H-ig(x) = oxp (—iXala(3)t) [1(x)+ 7 [n]] exp (iXala(x)t) = In-e(x))s Ty ,

(22.7.10)
where 5(x) = ng(x)Ty. Then
d
2 1-12(%) = ~1[ Xalo(), 11 (x)] +1(7 1) alx)) Xo »
so that
0
TIE) = =iz ()l + iCap Eux) 1y (22711

To evaluate 7 [y]Gply, A]l, we apply 7 [#] to the gauge field, and after a
straightforward calculation find that

T I A=z ()] = (7411l 4,(0)) (227.12)

A=Ay’
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so, using the consistency condition (22.7.5),

T MGyly; A—e] = /d“x [H—z(x)], (f;‘(x) Gb[v;A])A—»A_@

= [ @ e e (T0) Guli A1),
+icyba [’?—tﬁ(y)]yGaI-_V;A—ri] . (22713)

The structure constant terms in Eqs. (22.7.11) and (22.7.13) cancel, yielding
1 4 P
Tl = [ de [ty = |2 el Golyiaa

—iln-ez(»)la (718) GaD/;A])A_b Az} . (227.14)
Another straightforward calculation shows that

d
Sl =i( T OA) (22.7.15)

A_PA_“E

so the terms in the integrand in Eq. (22.7.14) add up to a t-derivative

1
Firi.A=— [ da [at %{[n—za(y)]b(?b[y;fl—x]}
=1

= — [[’?—tf(y)]b Gy D’;Amﬂ] : (22.7.16)
=0

At t =1 we have
1-£(x) = exp ( — iXaa()) [1(x) + 7 [} exp (iXala(x)) -

From Eq. (22.7.4) we see that this is a linear combination of the generators
of the unbroken symmetry subgroup H, so the coefficient [#_s(v)]; of any
broken symmetry generator X, vanishes. Also, Egs. (22.7.10) and (22.7.8)
show immediately that at t = 0, n_z(y) = n(y) and [A_;z(y)], = Au(y), s0
Eq. (22.7.16) yields

T qITIE, A] = / d*y [no(y)s Gyly; Ao} = / d*y np(y) Goly; 4], (22.7.17)

which with Eq. (22.7.6) is equivalent to the desired result (22.7.1), as was
to be proved.

The solution (22.7.7) of Eq. (22.7.1) is not unique, but it is the unique
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solution that vanishes for ¢ = 0. To see this, note that

exp |~ / np(x) 7 4(x) d*x |T[E, 4] = T[E, 4T, (22.7.18)

where the primes indicate a gauge transformation with transformation
parameter #g. It is convenient to represent the exponential here as

1
exp(z) =1 -I—/ dt exp(zt) z |
0
so Egs. (22.7.1) and (22.7.18) yield

1
P A} =i [ drexp [ it [m)7 o0 dx] [ no)Goly; Aty
—T[¢, 4] . (22.7.19)

In particular, if we take 5, = —¢, and #; = 0, then &, = 0, in which case
by assumption Eq. (22.7.19) has a vanishing right-hand side, and therefore
yields the formula:

1
i Al = =i [ dr explie [ &7 8)d%] [ G016l A1y
(22.7.20)
The functional operator explit [ &,;(x).74(x)d*x] in Eq. (22.7.20) simply
produces a gauge transformation (15.1.17) with gauge parameter Ag(x) =
—t&4(x), so that Eq. (22.7.20) may be written as in Eq. (22.7.7).

Eq. (22.7.7) may be applied to study the electroweak interactions of the
octet of pseudoscalar Goldstone bosons, but it has important implications
for the interactions of the Goldstone bosons themselves, in the absence of
real gauge fields. In the case where A = 0, Eq. (22.7.8) becomes a “pure
gauge’ field

[A—tﬁ(x)],u = —i [a;t exXp (_irXaéa(x)) ] eXp (itXaéa(x))

— {aﬂv(zé(x))] v (), (22.7.21)
where
V(ré (x)) = exp (— irXaéa(x)) : (22.7.22)
With A%(x) = 0, Eq. (22.7.1) gives
T p(x)'[£,0] =0, (22.7.23)

so the result of using Eq. (22.7.21) in Eq. (22.7.7) is a G-invariant local
functional of the Goldstone boson field £,(x), though, as we shall see, it
1s not in general the integral over spacetime of a G-invariant function of
£q4(x) and its derivatives.
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The simplest example is the case of a completely broken symmetry
group. Here the condition (22.7.6) is empty, and we can use the symmetric
form (22.3.38) for the anomaly:

Galxi ] = 355 €% Tr {Ta [040(x) 824,(x) — 40y (x) A1()Ap(x)

+ 3idy(x) OvAa(x) Ap(x) — %EAK(x)Av(x)aaAp(x)]} , (22.7.24)

where now T, 1s the specific representation of the group generator fur-
nished by the left-handed fermions (including antifermions, where the dis-
tinction 1s relevant) of the theory. In this case when we use Eq. (22.7.21)
in Eq. (22.7.24), we find that the only terms in the trace in (22.7.24) that
survive when contracted with €' are then all proportional to

Tr { TV @y @y @, rv}

with coefficients —1, 4+ 1, — 1 and + 1, respectively, so Eq. (22.7.7) becomes
here

[I2.0] = — g™ [dve | T { T, [0cV (12(0))]
v () [a v (ee)| v () [0 (26)]
x V1 (ez(y) [0,V (s2)] v (ré(y))} . (22.7.25)
As promised, this is not the integral of an invariant function of fields

and field derivatives. For instance, for small Goldstone boson fields
Eq. (22.7.25) becomes

1
PIE0) =~ 35 T TV TTAT) [ dy €y 08 0ata ke
+0(£%). (22.7.26)

Any function of the covariant derivatives of Goldstone boson fields would
have a term of lowest order in the fields which would be simply a product
of partial derivatives of the Goldstone fields, and therefore could not have
a lowest-order term of the form (22.7.26).

For an example of greater practical importance, consider the SU(3) x
SU(3) chiral symmetry of quantum chromodynamics with massless u, d,
and s guarks, spontaneously broken to the diagonal SU(3) subgroup of
Gell-Mann and Ne'eman. In order to use the results of this section, we
must label internal momenta in the fermion loop integral so that the vector
currents of the diagonal SU(3) subgroup are anomaly-free, in which case
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the anomaly takes the Bardeen form (22.3.34):

GalV, ] = 5 67:2 ”‘paTr{ta[Vme—l— LAy — 2A,4,4,4,

+ S AWV pr + AuVpo Ay + Vo dyAy)| } , (22.7.27)

where Vy, A,, Vy,, and Ay, are defined by Eqgs. (22.3.35)-(22.3.37); ¢, is
here half the Gell-Mann matrix 4,, given by Eq. (19.7.2); and » is the
number of quark types (‘colors’) of each flavor. (We are now using a
lower case ¢ for the matrices representing the group generators, because
in this trace we sum only over the left-handed quarks, not the left-handed
antiquarks.) For a pure gauge field like (22.7.21) the field strengths V, w and
A, vanish, so that using Eq. (22.7.27) in Eq. (22.7.7) yields the anomalous
effective Goldstone boson action

IE,0] = — oy e / t [ dtx To {EutalA A el A [ )

(22.7.28)
where ‘A’ now denotes the axial-vector as opposed to the vector gauge
field. To find [4_.¢], we use Eq. (22.7.21), which here reads

Vo)1, +ys0A—ie () = —i [0 exp (= itystada() ] exp (itystaal)) |
(22.7.29)
Multiplying with (14 7y5)/2 and (1 —y5)/2 and taking the difference yiclds
the axial-vector term

[ (X)], = — Li {a exp (- itéataﬂ exp (itéata)
+ 5{.«3# exp (iréata)] exp ( _ itéata)

= liexp (itﬁara) U-! (ré(x)) [BMU(tcﬁ(x))] eXp ( ~ itCara) :
(22.7.30)

where
U(ré) = exp (2ira§ar) . (22.7.31)
Using this in Eq. (22.7.28) yields the effective anomalous action

T[E,0] = — 24"nzeﬂvﬂa fo dr /d“x Tr {aa:au—l (té(x)) {@,U(té(x))]

H(te(0) [0 U (16:0)) J U™ (220)) [0,U (28(x)) | U (12(0)

x [BJU(rij(x))] } . (22.7.32)




22.7 Anomalies and Goldstone Bosons 415

As noted by Witten,?® this may be expressed in a convenient five-
dimensional form. We take ¢ as our fifth coordinate, and define &,(x,t) =
téa(x). Then Eq. (22.7.32) becomes

ME.0) = —5 ek [ d5zTr{ '(¢@)|aU(ce)]
U™ (é@)[au(e) U™ (¢@) [aU (2@) | U (é(2)
x [B;U(é(z))] U (&) [ﬁmU(C(z))] } , (22.7.33)

where i, j, etc. run over the values 1, 2, 3, 0, 5, with z' = x' for
i=1,2 3,0 and z° =, and the integral is over the region 0 < z° < 1,
{An extra factor 1/5 appears in Eq. (22.7.33) to take account of the
fact that any one of the five indices i, j, k, |, or m may take the value
5) Since &,(z) takes a fixed value zero for z° = 0 and all values of
the other components z# of z', we can identify these values of z¢ as a
single point, and consider the region of integration in Eq. (22.7.33) as a
five-dimensional ball, with the four-dimensional boundary z> = 1 taken
as ordinary spacetime. Eq. (22.7.33) is thus a special case of the “Wess
Zumino—Witten’ action given by Egs. (19.8.1) and (19.8.3), which was also
proportional to an integer »; the only difference is that » is now identified
as the number of colors. We saw in Section 19.8 that the integral (19.8.3)
depends only on the values of £,(z) on the spacetime boundary of the
five-ball, so in deriving Eq. (22.7.33) we have shown that Eq. (19.8.2)
applies for any continuation of £,(x) into the interior of the five-ball, not
jJust for &,(x, 1) = t&(x).

#* k%

More generally, consider an arbitrary gauge group G that is sponta-
neously broken to a subgroup H that by itself is anomaly-free — that is,
for which the D-symbol (22.3.12) vanishes for any three generators of H.
Chu, Ho, and Zumino®® have shown that we can add a local function
B[A] to the action, in such a way that the currents of the subgroup H are
anomaly free, even when the gauge fields of the broken symmetries are
taken into account. This functional is

B[A] = 4—;;6;,‘,;,{, / d*x Ts { [4f;, A")(F* + F{") + A* A} A7 A,

1o,
—AlA AP A% + 5A;;t«-l‘A*,F,’Aﬁ‘} , (22.7.34)

where again A¥ = T,44% and F* = T,F}*, while 4} = T;4! and F};" =
T;F'" are the terms in A¥ and F** in the algebra of the unbroken symmetry
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subgroup H. The total anomaly is then
Gylx; Al = Gplx; A] + .7 p(x)B[A] (22.7.35)

(Where Gglx;A] is the symmetrized anomaly (22.3.38)) and satisfies the
desired condition

Glx;Al =0. (22.7.36)

The anomalous part of the effective action for Goldstone bosons and
gauge fields is given by using Eq. (22.7.35) in place of Gg in Eq. (22.7.7).
In this way, Chu et al.?® found an anomalous effective action

I'[¢,4] = T[¢, 4] — B[A_¢] + BlA], (22.7.37)

where I'[{, A] is the previously derived effective action (22.7.7), and A_x(x)
1s obtained by setting t = 1 in Eq. (22.7.8). In particular, where the gauge
field vanishes 4_; is the pure gauge field

[A-c(o)l, = —i[ 8.V (60) [V (¢))
V(&) = exp (~ iXalal)) ,

so here the Goldstone boson action is

1
['E,00 = TIE.0] = 2oz e [ T {A‘ié A A,
1

This result is not unique; in particular, in parity-conserving theories
like quantum chromodynamics we can add additional local terms to the
effective action to cancel any parity-non-conserving terms in Eq. (22.7.38).

Problems

1. Calculate the rate of the decay process  — 7 + 7, to leading order
in mg, with m, = my = 0.

2. Consider a chiral SU(3) symmetry under which the left-handed parts
of the spin 1 fields of a fermion-number-conserving theory form N
defining representations 3 of SU(3), while the right-handed parts are
all singlets. Evaluate the anomaly in the SU(3) symmetry. What
1s the anomaly if we add M fermion fields whose left-handed parts
are singlets, and whose right-handed parts transform as symmetric
traceless second-rank SU(3) tensors?
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Find a solution of the 't Hooft anomaly matching conditions (22.5.5)
and (22.5.6) for the case of n = 4 flavors. Find a solution for n = 2
flavors other than the one given in the text.

Derive the Zinn-Justin equation from the quantum master equation,
without assuming that AS = 0.
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23
Extended Field Configurations

Most of this book has been devoted to applications of quantum field the-
ory that can at least be described in perturbation theory, whether or not
the perturbation series actually works well numerically. In using perturba-
tion theory, we expand the action around the usual spacetime-independent
vacuum values of the fields, keeping the leading quadratic term in the expo-
nential exp(il ), and treating all terms of higher order in the fields as small
corrections. Starting in the mid-1970s, there has been a growing interest
in effects that arise because there are extended spacetime-dependent field
configurations, such as those known as instantons,' that are also stationary
‘points’ of the action. In principle, we must include these configurations
in path integrals and sum over fluctuations around them. (In Section 20.7
we have already seen an example of an instanton configuration, applied
in a different context.) Although such non-perturbative contributions are
often highly suppressed, they are large in quantum chromodynamics, and
produce interesting exotic effects in the standard electroweak theory.

There are also extended field configurations that occur, not only as
correction terms in path integrals for processes involving ordinary par-
ticles, but also as possible components of actual physical states. These
configurations include some that are particle-like, such as as magnetic
monopoles® and skyrmions,> which are concentrated around a point in
space or, equivalently, around a world line in spacetime. There are also
string-like configurations,* similar to the vortex lines in superconductors
discussed in Section 21.6, which are concentrated around a line in space
or, equivalently, around a world sheet in spacetime. Then there are config-
urations that are sheet-like, like the domain walls® between spatial regions
in which discrete symmetries are broken in different ways. In contrast, the
instantons mentioned above are event-like, concentrated about a point in
spacetime, and therefore never appear as components of actual physical
states.

Some extended field configurations are stabilized because of boundary
conditions that are imposed by the nature of the problem in which
they appear. An example is the ‘bounce’ solution, which appears in the
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analysis of vacuum decay,® and will be discussed in Section 23.8. Other
configurations are stable because they carry a quantum number whose
conservation forbids any possible decay mode.”

In this chapter we shall mostly be concerned with extended field con-
figurations that are stabilized by their topology. In analyzing all such
configurations we use the same topological tools, chiefly homotopy theory,
so we shall begin by considering all topologically stabilized configurations
together, in a space or spacetime of arbitrary dimensionality d.

23.1 The Uses of Topology

It often happens that the space of all possible field configurations may be
given a non-trivial topology by the condition that some functional S of
the various fields is finite. In classical field theory S is the potential energy
(or in some cases the potential energy per unit area or per unit length); no
finite perturbation can produce a configuration where this is infinite. In
classical statistical mechanics S is the Hamiltonian, and in quantum field
theory formulated in Euclidean spacetime S is the Euclidean action or is
proportional to it. (Euclidean path integrals and some of their applications
are discussed in Appendix A of this chapter.) We construct a perturbation
theory by starting with some equilibrium field configuration for which
the Euclidean action or Hamiltonian is finite, and then integrating over
fluctuations which leave it finite.

Two field configurations are said to be topologically equivalent if it
is possible to deform one of them continuously into the other without
passing through forbidden configurations with S infinite. This is evidently
an equivalence relation (in the sense of being reflexive, symmetric, and
transitive), and therefore divides the set of all field configurations into
equivalence classes, each consisting of configurations of the same topology.
For example, if S is the potential energy (the Hamiltonian for time-
independent fields) in 4 space dimensions, then topologically different
field configurations are forbidden by an infinite energy barrier from being
transformed into one another. In particular, extended configurations with
a different topology from the usual spatially uniform vacuum fields cannot
spread out to become spatially uniform.

The topological classification is also useful when we are looking for a
local minimum of S. If we can find a configuration that minimizes S for
all configurations of a given topological type, then that field configuration
must be at least a local minimum of S for all configurations of any type,
since no small variation of the fields can change their topological type.
Such a configuration is therefore a solution of the field equations, which
are equivalent to the condition that S is stationary. This sort of problem
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comes up not only in stability problems, where § is the Hamiltonian,
but also in finding field configurations around which we may expand the
field variables in path integrals in Euclideanized d-dimensional spacetime.
Here § is the negative of the Euclidean action I, and we must look for
a local minimum so that the leading term in the expansion around this
configuration will be a quadratic free-field action with second-order terms
of the right sign.
Here are some examples:®

(a) Skyrmions, etc. Consider the real Goldstone boson fields x, associated
with the spontaneous breakdown of a continuous global symmetry group
G to a subgroup H. As we saw in Chapter 19, the potential energy for
these Goldstone bosons in a Euclidean space of dimensionality d > 2 will
take the form

Str) = [ dix [ 'Y ga(momadimy + .| | (23.L1)
ab

where gy, is a positive-definite matrix, and ‘+..." denotes possible terms
of higher order in the derivatives of n. Alternatively, Eq. (23.1.1) can
be regarded as minus the action for a Goldstone boson field in a d-
dimensional Euclidean spacetime.

Field configurations of finite S must have d;m,(x) vanishing at infinity
faster than |x{™%/2 (where |x| = \/m ), so that m,(x) must approach a
constant m,, as X — oo with a remainder vanishing faster than |x|(2=9/2.
The Goldstone boson fields n, at any point form a homogeneous space, the
coset space G/H, for which it is possible to transform any one field value
to any other by a transformation of G, so by a global G transformation
it is always possible to arrange that the asymptotic limit 7., takes any
specific value, say mq = 0. The field n,(x) thus represents a mapping of
the whole d-dimensional space, with the sphere r = oo taken as a single
point, into the manifold G/H of all field values.

Now, a d-dimensional Euclidean space with the (d — 1)-dimensional
spherical surface at infinity identified as a single point is topologically the
same as Sy, the d-dimensional sphere (that is, the surface of a (d + 1)-
dimensional ball), in the sense that either can be continuously mapped
into the other. The fields n(x) that approach zero as x — oo may therefore
be classified according to the topologically distinct mappings of Sy into
the manifold G/H of the field variables, for which the point at infinity
is mapped into zero. The set of classes of such topologically distinct
mappings Sy +— .# with one point of S; mapped into a fixed point of .#
is known as my(.#), the dth homotopy group of the manifold .#. These
homotopy groups will be discussed (and their group structure explained)
in the next section, and a list of homotopy groups for various manifolds
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is given in Appendix B of this chapter. For the present it will be enough
to mention that, although when the manifold .# is a linear space the
homotopy group n4(.#) is trivial (in the sense that any field configuration
n(x) that approaches a constant value as x — oo can be continuously
deformed into one in which the field takes that value everywhere), the
manifold .# = G/H of the Goldstone boson fields often has a non-trivial
homotopy group. In the cases relevant to quantum chromodynamics, of
SU(2) ® SU(2) broken to SU(2) or of SU(3) ® SU(3) broken to SU(3),
the manifold G/H is the same as SU(2) or SU(3), respectively, for which
according to Appendix B the homotopy groups n3(H) are non-trivial. The
topologically non-trivial fields at local minima of the potential energy
with d = 3 are known as skyrmions.® Baryons like the proton may in some
respects be regarded as skyrmion solutions in a pure meson theory.

The functional (23.1.1) does not have skyrmion stationary points, unless
terms involving higher powers of d;n, are included in the integrand. In the
absence of such terms, any topologically non-trivial field configurations
will have a continuum of values for S, extending down to a lower bound
S = 0 at which n becomes singular, so topology cannot stabilize such
configurations. This is generally known as Derrick’s theorem.” To prove
this theorem, note that for any field configuration 7,(x) we may introduce
another configuration with the same topology,

T (X) = mo(x/R)

with R an arbitrary real positive scale factor. Then for the terms shown
explicitly in Eq. (23.1.1)

S[z®] = R*2S[x] .

For d > 2 this is a decreasing function of R as R — 0, so there is
a continuum of values of S[n®] extending down to a value § = 0.
Furthermore S[r] > 0, because S[n] can only vanish if n(x) is constant,
which is not possible because we assumed that = is topologically non-
trivial. Hence this lower bound is attained only at R = 0, at which nf(x)
becomes singular.

Goldstone boson field configurations can be stabilized by adding higher
derivative terms to S. For instance, if we take S[n] = T[r] + D[r] with

T[r] = /ddx %Zgab(n)afna(?;nb >0,
ab

Din] = fddx fabed(m) Vg, VA Vre - Vrg >0,

then D[z®] = R*D[r], while as before T[rR] = R4 2T[xn], so S[rX]
reaches a minimum at a finite R if 2 < d < 4, and in particular for the
physically interesting case d = 3.
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The problem with the theory of skyrmions is not that we have to
include higher-derivative terms like D[x] in the action. As discussed in
Section 19.5, we expect such terms in the action of any cffective field
theory of Goldstone bosons. The problem is that there is no rationale
for excluding an infinite number of other higher-derivative terms, all of
which are generically of the same order of magnitude for configurations
that are stabilized by a balance between terms with different numbers of
derivatives, which makes realistic calculations impossible.

(b) Domain boundaries. When a discrete symmetry is broken, we have
the possibility that the symmetry is broken in different ways in different
domains, separated by domain boundaries in which the vacuum fields
make a transition from one minimum of the potential to another. For
instance, consider a flat domain boundary in the y—z plane, and suppose
that the energy per unit area is given by

siol = [ ax[5(5) + v, 2312

where ¢(x) 1s a real scalar field that is assumed to depend only on the
distance x along the direction normal to the boundary, and V(¢) is a
potential satisfying the reflection symmetry ¢ — —¢, with minima only at
field values +¢. For convenience, we will adjust an additive constant in

V(¢) so that the minimum value of V(¢) is zero, in which case V(¢) > 0,
and V(¢) =0 only at ¢ = +¢. To keep S finite, it is necessary for ¢ to
approach either +¢ or —¢ as x — oo, and also to approach either +¢ or
—¢ as x — —oo. We then have four topologically distinct configurations,
in two of which ¢ approaches the same limits as x — +oo, so that the
configuration can be smoothly deformed into the vacuum configurations
with ¢(x) constant everywhere, and in two of which ¢ approaches opposite
limits as x — +co, which are topologically stable. Hete we are classifying
field configurations according to ng(G), where no(.#) for any manifold .#
is conventionally defined as the set of connected components of .#, and
G is the symmetry group, which in our case is the Z, group of reflections
¢ — —¢.

This is a good place to introduce a trick due to Bogomol'nyi'® that will
prove useful in Sections 23.3 and 23.5 in dealing with the more complicated
cases of monopoles and instantons. Rewrite Eq. (23.1.2) in the form

o0 d 2 b{00)
sl =, [ ax (L xvarig) « [ VG (2313

The integral in the second term on the right-hand side of Eq. (23.1.3) can
be regarded as a ‘topological charge,” which depends only on the values
taken by the field at x — +o0. For configurations that approach the same
limit as x — 400 and x — —og, this integral vanishes, and the minimum
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value of S is zcro, reached for constant fields. For a field ¢(x) that takes

different values at x = oo, we can choose the + sign in Eq. (23.1.3) to
yield a lower bound

¢
O _VAVGdf (23.1.4)

This bound is reached when the first term in Eq. (23.1.3) vanishes, or in
other words, when

+ e _df 23.1.5
X _fo 2V(f)+x0’ (23.1.5)
where x¢ is an integration constant, which evidently gives the position of
the center of the domain boundary. Note that Derrick’s theorem is no
obstacle to a solution here, because for domain boundaries d = 1, so for
a rescaled field ¢(x/R) the integrals of the two terms in the integrand in
Eq. (23.1.2) go as R~! and R™!, respectively.

Eq. (23.1.5) could have been obtained more directly, by deriving a
second-order differential equation for ¢(x) from the condition that
Eq. (23.1.2) must be stationary under small variations in ¢(x), and then
using this differential equation to show that the quantity 1(d¢/dx)*—V (o)
is constant in x. The advantage of the derivation based on the formula
(23.1.3) is that it shows immediately that the solution (23.1.5) is stable
against small perturbations that maintain the flatness of the boundary,
aside from the ‘zero-mod¢’ associated with changes in the boundary lo-
cation xg. By adding a term (d¢/dy)* + i(d$/dz)* in the integrand
of Eq. (23.1.2), we can see that this solution is also stable against any
perturbation é¢(x, y,z), provided d¢p(x,y,z) — 0 for x — too with fixed
y and z.

If there are discrete spontancously broken symmetries then domain
boundaries would have formed when these symmetries became broken
in the early universe. If the domain boundaries did not disappear they
would produce gross distortions of the observed isotropy and homo-
geneity of the present universe.” We do not now know of any of any
exact discrete symmetries except CPT, or of any spontancously broken
approximate or exact discrete symmetries, so for the present this is not a
problem.

(c) Instantons, etc. Now consider a gauge theory, with
S[A] = 4 f d'x FyijFy; (23.1.6)

where F,;; is the usual field strength tensor, and we take d > 4. This can
either be regarded as the action for quantum gauge fields in a Euclidean
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d-dimensional spacetime, or the potential energy for classical gauge fields
in temporal gauge, with 4} = 0, in (4 + 1)-dimensional spacetime.

In order for S[A4] to be finite, F;;(x) must vanish as x — oo. This can
be achieved by having A,(x) vanish sufficiently rapidly as x — o0, but
even for d > 4 it is also possible for S[4] to be finite for a field A,;(x) that
vanishes as slowly as 1/[x], as long as the field approaches a pure gauge
as |x| — oo

itydai(x) — g (R) dig(X) (23.1.7)

where g(X) is a direction-dependent clement of the gauge group G. Fur-
thermore 4,;(x) is unaffected if we replace g(X) with gog(X) for any fixed
group element gy € G, so by choosing go = g~!(%) we can arrange that
g(X,) = ! for any one direction X;. Each gauge ficld of finite S[A] therefore
defines a mapping from the unit sphere (X| = 1 to the group manifold,
with the point X; mapped into the unit element of G. (In the case in which
the gauge ficld vanishes faster than 1/|x| as (x| — oo, this mapping takes
all points on the unit sphere into the identity element of the gauge group.)
The set of classes of such topologically distinct mappings Sy — G, with
one point of Sy_; mapped into a fixed element of G, is known as nz_(G),
the (d — 1)th homotopy group of the group manifold. As indicated in
Appendix B of this chapter, n3(G) is non-trivial for any semisimple Lie
group G. The topologically non-trivial stationary points of S[4] for d = 4
are known as instantons.! Their importance in quantum chromodynamics
is discussed in Sections 23.5 and 23.6.

In order for S[A] to be stationary at a field A(x), it is necessary that
A(x) should satisfy the field equations

8iF i =0. (23.1.8)

A simple scaling argument again limits the values of the dimensionality d
where we can hope to find a topologically non-trivial local minimum of
S[A]. Define AR(x) = A(x/R)/R. Then

S[AR] = RS[4],

so for d # 4 there can be no topologically non-trivial stationary point of
S[A] unless S{A] = 0. But if S[A] = 0 then F; = 0 everywhere, so by a
gauge transformation we can make A, also vanish ¢verywhere.

As we shall see in Section 23.5, for d = 4 it is possible to find instanton
solutions where S[A4] (here identified as —I[A]) is stationary, with Fy;;
not equal to zero except at infinity. The scaling argument above shows
that if A(x) is such an instanton solution then so is A{x/R)/R, but this
degeneracy 1s removed by quantum corrections.
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(d) Monopoles, vortex lines, etc. Now constder a theory of gauge fields
together with scalars that furnish a linear representation of the gauge
group, with

S[e, Al ﬁ/ddx [ézgab(fb)Df%Difbb + iFujFuj+ U(9)| , (23.19)
ah

where g,(¢) 1s a positive-definite matrix (usually ¢p-independent), U(¢) is
bounded below, and shifted by a constant term so that its minimum value
is zero, and F,; and D; are the usual ficld strength and gauge-covariant
derivative. We require that U(¢) is a scalar and g,(¢) is a tensor under
transformations in the gauge group G. Again, Eq. (23.1.9) gives either the
action for a quantum field theory in Euclidean d-dimensional spacetime,
or the potential energy for a classical field theory in temporal gauge in
(d + 1)-dimensional spacetime.

For S[¢, A] to be finite it is necessary for U{¢p(x)) to vanish as x — oo.
The set of ¢s at which U(¢) vanishes is invariant under G and may be
discrete or continuous. In case (b) above we have dealt with an example
where this set i1s discrete. Let us now consider the broken symmetry case
where the zeros of U(¢) form a continuous manifold .#¢ consisting of
fields related by transformations g € G. In this case each ¢(X) may be
obtained by a transformation y(X) € G acting on the value ¢(X;) of the field
in any on¢ direction X;. We may therefore consider the field ¢(x) to define
a mapping S;—1 — G/H into a coset space G/H; in other words, into
the group G with elements g and g» identified if they differ only by right
multiplication with some e¢lement s of the subgroup H — G that leaves
¢(X1) invariant, that is, if g; = goh. In particular, the point X; is mapped
into the subgroup H, in order that y(X;) acting on ¢(X;) should yield ¢(X;)
itself. The fields that approach values on the manifold .#¢ as x — oo may
therefore be classified according to the topologically distinct mappings of
S;—1 into G/H that map the point X, into the fixed ‘unit’ element H of G/H.
The set of classes of such topologically distinct mappings Sy — G/H
with one point of S;_; mapped into a fixed element of G/H is known as
n4-1(G/H), the (d — 1)th homotopy group of the manifold G/H.

In this case 0ip(x) goes as 1/|x| for x — oo. In order for S[¢] to be
finite D;¢ must vanish faster than [x|=%? for x — oo, s0 it is necessary for
ity Ayi(x) to approach y~!(&)diy(%X) faster than |x|~%/2 for x — oo. This is a
pure gauge field, so the field strength tensor Fy;j(x) vanishes faster than
x|~%/2~1, which is fast enough to make [ dx Fy;;F,; converge.

Derrick’s theorem does not apply for the gauge theory defined by
Eq. (23.1.9), but it is interesting to se¢ where the same reasoning takes
us. For any given fields ¢(x) and A(x), again define ¢=(x) = ¢(x/R), and
now also A%(x) = A(x/R)/R. The three terms in the Hamiltonian (23.1.9)
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now have the scaling properties
T{pR, AR = R“2T[p, 4], K[4AR] =RI?*K[4], VI[eR]=RV[e],

where T, A] = 1 [d'% 34 8ap(@)DidpaDiy, K[A] = 1} [d*xFyjFy,
and V[¢] = [d?xU(¢). Now, for d > 4, S[¢R, AR] has no minimum at
any finite value of R, so there is no stable configuration with non-trivial
topology. For 0 < d < 4 there is no difficulty in finding a finite value of
R at which S[¢R, A®] is a minimum.

In the physically interesting case d = 3, topologically non-trivial field
configurations are classified according to the homotopy group ny(G/H),
which is non-trivial for a simply connected group G (such as SU(2)) broken
to an H containing the U(1) of electromagnetism. The topologically non-
trivial classical ficld configurations with d = 3 are known as magnetic
monopoles.> As we shall see in Section 23.3, their magnetic pole strength
is quantized, the different values corresponding to different elements of
n2(G/H).

For d = 2, topologically non-trivial configurations correspond to ele-
ments of n;(G/H), which is non-trivial when G is a non-simply connected
group like U(1) or SO(3), broken either completely or to a discrete sub-
group. The topologically non-trivial classical field configurations with
d = 2 are the cross sections of vortex lines. One example is provided by
superconductivity, where G = U(1) is spontaneously broken to H = Z».
We have seen 1n Section 21.6 that vortex lines occur in type II super-
conductors for magnetic field strengths in a certain range, and that the
magnetic flux carried by a vortex line is quantized, the different values
of the flux corresponding to different elements of my(U(1)/Z3). Vortex
lines can also occur in relativistic quantum field theories,* and may be
produced in symmetry-breaking transitions in the early universe, in which
case they are known as cosmic strings.!!

Monopoles and vortex lings share a remarkable feature that can be
deduced on purely topological grounds. In both cases the forms of the
Goldstone boson fields n,(x) on large spheres (S; for vortex lines, Sy for
monopoles) surrounding the configurations arc twisted, in such a way
that they cannot smoothly be deformed into constants. In particular, it is
impossible smoothly to reduce the radii of these spheres to zero without
encountering some sort of singularity, because a non-singular field n,(x)
on a sphere would have to become a constant as the radius of the sphere
shrinks to zero. The singularity in both cases occurs in a core (a line or
perhaps a tube for vortex lines, a point or perhaps a ball for monopoles)
within which the group G is no longer broken, so that the system is no
longer described by Goldstone boson fields, but by an order parameter
that transforms linearly under G.

For d = 4, the function S[¢®, 48] of R can only have a minimum
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at some finite R if T[¢,A] = V[¢p] = 0, which would require that ¢(x)
everywhere takes a value at which U(¢) = 0. Assuming that these values
form a continuum related by transformations in the gauge group G, by a
gauge transformation they may be made constants, ¢(x) = ¢o. Then in
this gauge the condition T'[¢, A] = 0 implies that 4,(x) = O for all broken
symmetries, for which ;40 # 0. Both T[¢, 4] and V[¢] are stationary at
such a field configuration, so in order for S[¢, 4] to be stationary K [¢, A]
must also be stationary, which means that the non-zero gauge fields 4;,
(which belong to the subgroup H < G that is unbroken by ¢¢) must
satisfy the Euclidean Yang—Mills field equations

8,Fiuy =0. (23.1.10)

This case therefore reduces to case (c), but with the gauge group G
replaced with its unbroken subgroup H.

23.2 Homotopy Groups

We learned in the previous section to classify field configurations, at which
the Hamiltonian or other functionals are finite, in correspondence with the
¢lements of appropriate homotopy groups. But we have not yet explained
in what sense the the homotopy groups are groups, nor have we given
any physical significance to the group structure. As we shall see, there is
a natural definition of the multiplication rule for elements of homotopy
groups, according to which two extended configurations of fields forming
a manifold .# in d dimensions, that belong to different ¢lements ¢; and c»
of ng(.#), can only fuse continuously to form a configuration belonging
to the element ¢y X ¢ of my(.A).

We will begin by defining the first homotopy group =;(.#) of an arbi-
trary manifold .#, also known as the fundamental group of the manifold.
As we have seen, the existence of a non-trivial n;{G/H) for some coset
space G/H is the condition for the topological stability of a vortex ling in
three dimensions (or a monopole in two dimensions). After considering
ni(.4#), we will then move on to more general homotopy groups.

A connected manifold .# is said to be multiply connected if there
is some closed curve of points p(z) on the manifold, parameterized by
a single variable z with 0 < z < 1 and p(0) = p(1), which cannot be
contracted to a point by a continuous deformation. Since on a connected
manifold we can always continuously deform any such closed curve so
that any one point on the curve is anywhere we like on the manifold,
we may restrict our attention only to curves for which p(0) = p(1) = py,
where pg is any fixed point of the manifold, known as the hase point. Two
such closed curves pi(z) and py(z) are said to be homotopically equivalent
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if they can be deformed into each other, that is, if there is a continuous
function p(z,t) for 0 < ¢ < 1, with

p(z,0) = pi(z), p(z,1) = pa(z),

p(os t) = p(1= t) = po -

The relation of homotopic equivalence is an equivalence relation in the
sense of being symmetric, reflexive, and transitive, so it divides the space of
closed curves on the manifold into equivalence classes: two closed curves
are in the same class if and only if they are homotopically equivalent. The
set of these equivalence classes is known as the first homotopy group of
the manifold, =;(.#).

To define the multiplication rule for n;(.#), choose a standard curve
plz;c] that starts and ends at the base point py for each equivalence class
¢ in m;(.4). For any two equivalence classes ¢; and ¢;, define the ‘product’
¢1 X ¢z as the equivalence class containing the curve p[z,c(, c2] that starts
at po, follows p[z,c;} back to po, and then follows p[z, ¢z} back again to
po. Formally, we take

1 — pl2z,cq} 0<z
p[Z,Cl, L2] = { p[22 . I,Cg] % <7z

A A
et DO} =

We must now show that multiplication defined in this way satisfies
the conditions for a group. First, let us check that this multiplication is
associative. For this purpose, note that (¢q X ¢3) X ¢3 is the equivalence
class containing a curve p[z,c; X ¢2,¢3] that goes along the standard
curve p[z,¢; x cz] from the base point and back again, and then along
the standard curve p[z,c;] from the base point and back again, while
¢y X (c2 X c3) 1s the equivalence class containing a curve p[z,¢q, ¢ X ¢3)
that goes along the standard curve p(z,c(} from the base point and back
again, and then along the standard curve p[z,c2 X ¢3] from the base point
and back again. By definition, the curve p[z, ¢y X ¢2] may be deformed into
a curve that goes along p[z,c;] from the base point and back again and
then along p[z, c;] from the base point and back again, while p[z, ¢y X 3]
may be deformed into a curve that goes along p[z,c;] from the base
point and back again and then along p|[z,¢;] from the base point and
back again. Hence both curves p[z,¢; X ¢3, ¢3] and p[z, ci, ¢z X c3) may be
deformed into the curve that goes along p[z, ;] from the base point and
back again, then along p[z, ¢;] from the base point and back again, and
finally along p|z,c3] from the base point and back again, and hence they
may be deformed into each other, showing that

(c1 X 2) x c3=c1 X (2 X ¢3).

The unit element e of m;(.#) is defined as the equivalence class con-
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taining the curve p[z,e] = po that stays at the base point. To check that
e X ¢ = ¢, note that

— Po
plz.e.cl = { p[2z —1,c]

But this curve can be continuously deformed into p[z,c] by taking

_ p 0<z<t/2
p(z,1) _{ p[(2z—t);)(2—r),c] tj2<z<1 7

which is the same as p[z,e,c] for t = 1 and the same as p[z,¢] for t = 0.
The product e x ¢ is the equivalence class containing p|z, e, ¢}, which we
now sec is the same as the equivalence class containing p[z,c¢], which is
just ¢. The proof that ¢ x e = ¢ is similar.

The ‘inverse’ ¢! of the equivalence class ¢ is the equivalence class
that contains a curve p~![z,c] which goes around the same path as the
standard curve p|z, c] but in the opposite direction; that is,

IA A
bk b

z
z

to = O
IA A

p_l[z,c] = p[l —z,c).

This is not necessarily the same as the ‘standard’ curve p[z,¢~!], but by the
definition of the equivalence class ¢, the two curves may be deformed
into cach other. To check that ¢=! x ¢ = e, note that by deforming p[z, ¢™}]
into p !(z,c}], the curve p[z,c !,c] may be deformed into

1 p[l —2z,¢] 0<z<]
plz,c ,c]_>{ o[22 — 1] Loo<i
But this curve can be continuously deformed into p[z,e] = po by taking
pll — 2tz,c) 0525%
t —_—
p(z.7) {p[2tz~|—l—2t,c] l<z<l

which is the same as p[z,c~1,c] for t = 1 and the same as p[z,e] for t = 0.
The product ¢! x ¢ is the equivalence class containing p[z,¢ !, ¢], which
we now see is the same as the equivalence class containing p|z, e], which
is just e. The proof that ¢ x ¢~! = e is similar. The existence of a unit
element and inverses shows that these equivalence classes form a group.
The classic example of a manifold .# with a non-trivial first homotopy
group is the circle itself, .# = S;. This may be parameterized by an
angle § with § = 0 and 6 = 2nr (with n any positive or negative integer)
identified as the same point. The homotopy groups consist of classes of
functions #(z) for 0 < z < 1 that begin at some base point, §(0) = 8y, and
end at the same base point, #(1) = 6y + 2nn. Two such functions may be
continuously deformed into each other if and only if they have the same
value of n, so 7;(S)) consists of a denumerably infinite number of classes
cn labelled by the positive or negative integer n. Furthermore, the ‘product’
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of two classes ¢, and ¢, consists of curves that go n times around the
circle from the base point and back again, and then m times around the
circle from the base point and back again, so here multiplication is just
addition:

Cpn X Cm = Cntm (23.2.1)
and hence
n(S1) =2, (23.2.2)

where Z 1is the group of addition of positive and negative integers. As
an immediate physical application, we note that when a gauge group
S0(2) is completely spontaneously broken, the coset space is just SO(2)
itself, which has the topology of a circle, so in this case there i1s an
infinite number of types of topologically stable vortex line, characterized
by a positive or negative integer n. For instance, this is the case in a
type II superconductor, where as we saw in Section 21.6 the U(l) of
electromagnetic gauge invariance is spontaneously broken to a discrete
subgroup Z».

More generally, all spheres S; with d > 1 are simply connected, which
means that they have a trivial first homotopy group, a statement conven-
tionally expressed as

1(S4) =0 ford>1. (23.2.3)
Only a few of the more familiar Lie groups are multiply connected:

(Z G=U(k) k=1
Z, G=S80(k) k>3
_J 0 G=S8pin(k) k>3

n1(G) = 4 0 G=SUK) k> 2 (23.2.4)
0 G=USp(2k) k=1

0 G= Gy Fy,Eg,E7,Eg

Y

Here Z; is the group with two elements ! and —1, with group multi-
plication defined as ordinary multiplication, and Spin(n) is the simply
connected covering group of SO(n). (As we saw in Section 2.7, Spin(3) is
the same as SU(2).) Also, for a direct product of two manifolds .# and
A, the fundamental group is

(M X MYy = (M) X Ty (M) . (23.2.5)

We can appreciate the physical significance of the group structure of
n;(-#) by asking what happens when two distant parallel vortex lines
in three dimensions are brought together. When the vortex lines are
sufficiently far apart their fields do not interact, so the configuration can
be described by specifying the classes ¢/ and ¢” in 7;(G/H) to which
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each belongs. The class ¢ to which the whole configuration belongs is
determined by the behavior of the fields on a very large circle surrounding
both vortex lines. By a continuous deformation we can distort this very
large circle into two large circles, one surrounding each vortex line, which
intersect at a point midway between them. As we go around this closed
curve in two-dimensional space we first trace out a curve in G/H which
consists of one of the closed curves in the class ¢/, and then one of the
closed curves in the class ¢”, just as in the definition of the product
of the classes. We conclude then that the whole configuration is in a
class ¢ = ¢’ x ¢”, and so the two vortex lines can only fuse together to
form a \i’ortex line of this class. In particular, they can only annihilate if
=7,

For instance, when #(G/H) = Z (as in superconductivity, where
G/H = SO(2)/Z,), in three dimensions two vortex lines of classes ¢,
and ¢,, can fuse together to form a vortex line of class ¢, so they can
only annihilate if n = —m. On the other hand, when =(G/H) = Z; (as
when G = SO(N) with N > 3 and H is trivial or discrete) there is only
one kind of vortex line in three dimensions, corresponding to the element
—1 of Z,, and since (—1)? = 1, any two can annihilate,

Now let us consider the general homotopy group 7x(.#). This is much
like m;(#), except that instead of considering mappings of the circle S;
into a manifold .#, we consider mappings of the k-sphere S; (the surface
of a (k + 1)-dimensional ball) into .#, again with one point of S; always
mapped into the same ‘base point’ po of .#. Two such mappings are
equivalent if one can be continuously deformed into the other, keeping
the same point of Sy always mapped into the base point. The kth
homotopy group ni(.#) has elements consisting of equivalence classes of
these mappings.

It is often convenient to picture the d-sphere S; as the interior of a
d-dimensional hypercube, with all points on the boundary identified as
a single point. For instance, we have already seen that the circle Sy can
be treated as the interval 0 < § < 2z, with points 0 = 0 and 6 = 2=n
identified. Similarly we can make a map of an S, like the earth’s surface
by cutting out the south pole and spreading out the resulting sheet on
the vnit square 0 < z; < 1, 0 < z; < 1. Continuous mappings of this
square into .# must take all points on the boundary into the same point
of .#, because all points on the boundary are the same point, the south
pole. In general, two mappings p(z;, - z4) and p'(z;, - z4) of Sz into A
arc homotopically equivalent if one can be continuously deformed into
the other, while keeping p on the boundary of the hypercube equal to the
base point po.

As before, for each equivalence class ¢ we choose a standard mapping
p(z1,- -~ z4;c). The product of ¢; and ¢, is defined as the equivalence class
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that contains the mapping

p(zzlszzs- ) 'Zd;CI) 0 < Zi
p(2z; — 1,22, - z45¢2) 1<z

[

<

p(zy, 22, zaicr, €2) ={ <
(23.2.6)
The unit element e is defined as the equivalence class that contains the
mapping with p = po for all z, and the inverse ¢~! of ¢ is defined as the

equivalence class that contains the mapping with
p_[ [213223 T ZN;C] = p[l - 21,22; T ZN ;C] * (23”27)

In the same way as for x;, it can be shown that this multiplication is
associative, and that e xc =cxe=cand ¢! xc=cxc !l =e Al
na(#) for n > 2 are Abelian. (There are manifolds .# for which =i(.#) 1s
non-Abelian, such as the plane with two or more points removed.)

In any case in which m;(#) = Z, there must be a one-to-one mapping
of the k-sphere Sx into a k-sphere S/ in .#, which corresponds to the
element ‘one’ of Z (not the unit element, which is zero). The element v
of Z with v = 2,3,... corresponds to the mapping of S; into the same
k-sphere S/ in .4, which covers S; v times, with the Jacobian of the
transformation Sy — S; positive. The element v of Z with v = —1,-2,...
cotresponds to the mapping S, — §;, which covers S/ |v| times, with the
Jacobian of the transformation Sy — S; negative.

For instance, we saw in the previous section that magnetic monopoles
arise when a simply connected group G is broken to the U(1) of clectro-
magnetism. In this case the appendix shows that

w(G/U) = m(U(L) = Z , (23.2.8)

so a magnetic monopole carries an integer-valued quantum number v,
which as shown in Section 23.3 is proportional to the magnetic charge.
This quantum number gives the number of times that a two-sphere of
large radius surrounding the monopole is mapped into a two-sphere in the
manifold G/U(1) of Goldstone boson fields (with the relative orientation
of the two two-spheres being the same or opposite for v positive or
negative, respectively) and is therefore known as the winding number. The
structure of the group Z shows that this quantum number is conserved,
in the sense that a monopole of quantum number v can fuse with a
monopole of guantum number v/ only to form a monopole with quantum
number v + v/

If the unbroken subgroup is SO(n) with n > 3, then according to
Appendix B of this chapter

72(G/SO(n)) = ny(SOn)) = Z, . (23.2.9)

In this case there is just one sort of ‘monopole,’ corresponding to the
element —1 of Z,, which can annihilate only in pairs. It is important to
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distinguish between this case and that in which SO(n) is replaced with its
simply connected covering group Spin(n), for which there are no monoples.
We will come back to this point at the end of the next section.

Another example: we saw in the previous section that the skyrmions in
quantum chromodynamics with » light quarks correspond to elements of
n3(SU(n)), which according to the appendix is Z. Thus these skyrmions
carry a conserved integer-valued quantum number v, which perhaps may
be identified with baryon number. Similarly, recall from the previous
section that the instantons in a gauge theory based on a simple gauge
group G correspond to the elements of m3(G), which according to the
appendix 1s Z, so these instantons like skyrmions carry an integer-valued
quantum number v, also known as the winding number. In Section 23.5
we shall see how to express this quantum number as a local functional of
the gauge field.

23.3 Monopoles

As a detailed example of a topologically non-trivial field configuration,
we shall now consider the monopole of 't Hooft and Polyakov,” and its
generalizations. We saw 1n Section 23.1 that when a simply connected
gauge group G is spontaneously broken to the U(1) of electromagnetism,
the configurations of finite energy are classified according to the elements
of the group n2(G/U(1)) = ny(U(1)) = Z. (The case of non-simply con-
nected Lie groups is considered at the end of this section.) According to
the physical interpretation of homotopy groups discussed in Section 23.2,
this means that these configurations have a conserved additive quantum
number. But we still need to show that any of these stationary con-
figurations actually exist, and to give a physical interpretation of their
topological quantum numbers.

As an illustrative example, consider a theory (like the Georgi-Glashow
electroweak model'?) in which an SU(2) gauge group is spontaneously
broken by the vacuum expectation value of an SU(2) triplet of scalar
fields ¢,. (It is explained at the end of this section why in this case we say
that the gauge group is SU(2) rather than SO(3).) The Lagrangian density
for the scalars and gauge fields in Minkowskian spacetime is taken as

¥ =— FapnF)" — 1D D Py — V(dnn) (23.3.1)

where
Foyw = 0yAny — O Ay + e €pmiAmpAry (23.3.2)
Dypn = 0ypn + € €nmiAm i (23.3.3)

and the function V(¢,¢,) is assumed to be positive, with the value zero
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at a non-vanishing value (¢) (taken positive) of ,/@»¢,. (In much work
on monopoles V is taken to be the quartic polynomial A(¢ngs — {(¢)%)2,
with 4 > 0, but we shall not make this assumption here.) Eq. (23.3.1)
describes a theory with a spacetime-independent vacuum solution with
Ay, = 0, in which a vacuum expectation value ¢, with ¢udn = ($)*
breaks SU(2) to its U(1) subgroup, which can be identified with the
gauge group of electrodynamics. Instead we here shall seek topologically
non-trivial inhomogeneous but time-independent classical solutions in
temporal gauge, with AY = 0 but A} # 0. The Lagrangian density in this
case is the negative of the potential energy density ., given by

H = \Fri+ WDign) + V(9), (23.3.4)

with squares including obvious index contractions. Because each term in
(23.3.4) is positive, the integral of each term must separately converge in
a configuration of finite energy.

In particular, for the integral of V(¢n¢,) to converge, the vector ¢,
must have the fixed length {(¢) at infinity, so each configuration of finite
energy defines a smooth mapping of a large two-sphere .% surrounding the
monopole configuration into the two-sphere of the ¢, with ¢pdy = (¢)°.
As % runs over .%, ¢, may run over the sphere ¢n¢, = (¢)? any integer
number N of times, either with Jacobian Det (6x/d¢) positive, in which
case we say that the winding number is N, or with Jacobian negative, in
which case the winding number is —N.

To see what the winding number has to do with the magnetic monopole
moment, we must first consider what in this theory is observed as ‘the’
magnetic field. Whatever the field configuration, we can introduce a gauge
in which the scalar ficld ¢, points in some definite direction, say the
three-direction, in any given finite region, so that in this region the gauge
field associated with the unbroken U(1) subgroup of SU(2) is As; . ’t
Hooft? found a gauge-invariant tensor % w Wwhich reduces to the usual
electromagnetic field strength tensor 0,43, — 0y A3, in this gauge:

tg:,m = nngSR_ Enm! ¢’n pﬁme ¢j s (2335)

where ¢, = ¢/ ®m@m . To check that #,, is the ordinary elec-
tromagnetic field strength tensor in a gauge with constant qAb,,, (and
for later purposes) we use Eqs. (23.3.2) and (23.3.3) and the identity
Eubc€ade = ObdOce — OpeOcg 1O Write .‘7/7!” in the form!3

,3’77#1; = ap(&’nAnv) (Qf’n ny) Enmi ﬁbn yﬁbma Qbi (2336)

Thus in a gauge in which gbn is a fixed unit vector in the three-direction,
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we have as promised
g#v = a‘uA3v - avA3‘u .

The magnetic monopole moment g of any localized field configuration
1s defined as 1/4n times the magnetic flux through a large closed surface
& around the configuration:

1
47Zg = Eeijk Lgu dzsk . (2337)

The first two terms in Eq. (23.3.6) for #;; are derivatives, and therefore
do not contribute to the integral (23.3.7), so that

1 A A A
g = _%fijkfnmi /:90 Q&n af(bm ajqbi dzsk . (23-3-8)

This has the important property of being a topological invariant: inte-
grating by parts where necessary, we can see that the change in g under
an infinitesimal variation (3gbn in ¢y, is

3 A _ A n
S E1ik Emm / S Oichm O d°Si. .

But because qb 1s a umt vector, (3gb as well as J; gb and 0; qb are all in the
plane perpendicular to gb SO

Enmi 5§bn aiﬁbm agﬁbf =0
and therefore g = 0. The quantity (23.3.8) is related to the topological
invariant known as the Kronecker index.

Because g is a surface integral, it is additive: for any two distant
localized configurations, the surface & used to calculate g may be taken
to be a pair of spheres, one surrounding each configuration, connected by
a thin neck between them, so the value of g for the whole system will be
the sum of the values of g;, g2 for the individual localized configurations.
Furthermore, since g is a topological invariant, we will have ¢ = g, + g»
for any field configuration that is formed by a smooth fusion of two
configurations with magnetic monopole moments g; and g>. It follows
that g must be proportional to the winding number. Arafune, Freund, and
Goebel!? verified this and calculated the coefficient of proportionality by
using the formula (23.3.8) for general winding number. Here we will simply
calculate the coefficient by studying the °t Hooft-Polyakov monopole,? in
which the fields have unit winding number.

As we saw in the previous section, the ‘identity’ (as opposed to the unit)
element # of m(SU(2)/U(1)), which corresponds to the element ‘one’
of Z, consists of configurations in which the two-sphere % at infinity is
mapped once (with positive Jacobian) into the sphere described by gbn
As a representative of this homotopy class, we may take a configuration

og = —
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in which at infinity ¢, is in the same direction as x. To construct
this configuration let us impose a symmetry under joint rotations on
¢ = {¢1,¢2,¢3} and x, as well as parity conservation, and make the
ansatz:

Gn = Xn{P)F(r), (23.3.9)
_eniX
A= "G (23.3.10)

There is an important similarity between this field configuration and that
for a vortex line in a superconductor. The solution ¢ = +/¢/2e for the
Goldstone boson field in a vortex line found in Section 21.6 shows that,
although gauge invariance and rotational invariance are spontaneously
broken, the vortex line solution is invariant under the combination of a
global gauge transformation for which ¢ — ¢ + A and a rigid rotation
@ — ¢+ 2eA/¢. Similarly, a monopole solution of the form (23.3.9)-
(23.3.10) is not invariant under rotations or gauge transformations, but
it is invariant under the combination of a rigid three-dimensional spatial
rotation and an equal global SO(3) gauge transformation.

As already mentioned, in order for the integral of V(¢,¢,) to converge
it is necessary for ¢np, to approach (¢)> as r — oo, so in this limit
F(r) — 1. To derive the limiting behavior of G(r), note that the covariant
derivative of the scalar field is

Digy = + (¢) l(l — G(r)) (8 — %)

so the scalar term in the Hamiltonian density is

F21_G2 rn”
é(Diﬁbr!)z:(Qb)zl (r2 ) “I‘FZJ

F(r)

F

+5cn5“ciF’(r)] . (233.11)

(23.3.12)

For this to have a finite integral it is necessary also that G(r) — 1 and
F'(r) — 0 as r — oco. Finally, the field strength (23.3.2) is

E-.k 1 [Ny 1 A A

Fuy = —~ [—;G’(r)(ank - xnxf) —~ r—z(QG(r) - G?‘(r)) xnx;—] . (23.3.13)

so the Yang—Mills term in the Hamiltonian density is
1 [G?  (2G— G?)?

e? | r? + 2r4 ’

W(Fuj)* = (23.3.14)
This has an integral that converges at large distances as long as G'(r)
vanishes sufficiently rapidly as r — co.

We can use these results to calculate the magnetic monopole moment
of this configuration. Eq. (23.3.13), together with the limits G(cc) = 1 and
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G'(o0) = 0, shows that for r — oo, we have

€1jk Xk Xn
ert

Since Di¢, vanishes rapidly as r — oo, the magnetic part of the field

strength tensor in this gauge is given for r — oo by the first term in
Eq. (23.3.5), so at large distances the magnetic field becomes

Frij — —

(23.3.15)

A
Xi

5 (23.3.16)

Bi = leipF j — LeijpdnFuj —
Thus this configuration has magnetic monopole moment g = 1/e. According
to the general argument above, the magnetic moment of a configuration
with winding number v, corresponding to the element v of Z, is then

gv=v/e. (23.3.17)

It requires a detailed numerical calculation to find the stable config-
uration that minimizes the integral of the Hamiltonian density (23.3.4).
However there is a limiting case where an analytic solution is available.
To see this, it is useful first to derive a general lower bound due to
Bogomol'nyi!® on the monopole energy for a given magnetic monopole
moment g. Note that (23.3.4) may be written

_ 2
H = %(anj F Efjkaﬁbu) t 1€ FuijDidn + V(dndn) . (23.3.18)
Using the Bianchi identity (15.3.9), the second term may be written
+ s€ijFniDidn = £ Jei3 Dy (Fn ijﬁbn) == leijidy (Fn qubn) :

so its integral is given by the magnetic monopole moment g

1 lei fd3x FyiiDigpn = () fB ~dA = Hn{P)g

Since every other term in # is positive, we have a general lower bound
on the energy of a configuration with magnetic monopole moment g

E= [d%c.;f > 4n(p)lg| . (23.3.19)

For g = +1/e, this gives an energy E > 4rn{¢)/e. which for small
coupling constant e is much greater than the corrections due to quantum
fluctuations, which are at most of order {¢). This is why we can take such
a classical configuration seriously as the leading term in a perturbation
expansion.

Now, it is tempting to try to minimize the energy for a given magnetic
monopole moment by setting the first term in Eq. (23.3.18) equal to zero,
so that

Fpij = T €ijDidn , (23.3.20)
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but in general this does not lead to a configuration at which the energy
is stationary. The condition that the energy should be stationary with
respect to variations in the scalar field is the field equation

DiDi@n = 2n V' ($uhn) . (23.3.21)

while Eq. (23.3.20) together with the Bianchi identity (15.3.9) would imply
that D, Dy, = 0. This argument suggests that in the special case where
V(gpny) is very small, it will be possible nearly to reach the lower bound
(23.3.19), and hence minimize the energy for a given magnetic monopole
moment, by imposing the condition (23.3.20). (Where V is the quartic
polynomial A(¢ndn — (¢)?)?, the assumption that V is small means that
A & €, as in a type I superconductor.) Such stable configurations were
studied in this way by Bogomol'nyi'®. They had been found earlier by
Prasad and Sommerfeld® without direct use of Eq. (23.3.20), and are
usually called BPS monopoles.

The Bogomol'nyi condition (23.3.20) provides first-order differential
equations for F(r) and G(r), which are much easier to solve than the
second-order field equations derived directly from the condition that the
energy should be stationary. Using Eqs. (23.3.11) and (23.3.13), the terms
in Eq. (23.3.20) proportional to € [dxn — XxX,] and e;;; %X, respectively
yield the differential equations

e(p)F1—G) =G, (23.3.22)
e{p)r’F = G2 —G). (23.3.23)

With the boundary condition that F(r) —» 1 and G(r) > 1 as r — oo, these
equations have the solution

1 p
F = cothp e G=1 sinhp (23.3.24)
where p = ¢{¢)r. Note in particular that the field ¢, given by Eqs. (23.3.9)
and (23.3.24) vanishes for » — 0, so as remarked in Section 23.1, the SU(2)
symmetry is restored at the center of the monopole.

Let’s now return to the case of a potential ¥ of arbitrary strength. The
"t Hooft-Polyakov monopole is stable, because are no configurations of
smaller topological quantum number into which it could decay. Config-
urations of higher magnetic monopole moment are generally unstable.!?
There are also interesting configurations with both magnetic monopole
moments and electric charge, known as dyons.!?

There is another way of understanding the value 1/e of the 't Hooft-
Polyakov magnetic monopole moment, which goes back to the original
work of Dirac on magnetic monopoles.!® As mentioned earliet, instead
of the gauge we have been using, we can make a gauge transformation
¢n — Run(X)¢hy, that rotates ¢, to point in a fixed direction ¥, for instance
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the three-direction. Then the field strength B, = le;u Fy; is transformed
into RypmBuy, which approaches ¥,%;/er? for r — co, so here we do not
have to project this on a local unbroken symmetry direction. The price
we need to pay for these conveniences is that the gauge transformation
is singular; the rotation that takes a vector in the X direction into some
fixed direction ¥ is

R =1— (13- &)W +3(R = &-90) + (R = & 90)i"

(3 — & 9¥) (- & ?)@)T
— — , (23.3.25)
14+%-v

which is singular at X = —v. This R is not unique; for instance, we could
perform the rotation R(x;—¥) that takes X into the —v direction, followed
by a fixed rotation of 180° around some axis perpendicular to ¥, but this
would become singular at X = 4v. To avoid the singularities, we have
to adopt different gauges in different regions; for instance, with ¥ in the
three-direction, we can use a gauge for 0 < 0 < fy that is singular at
§ = 7 and a gauge for 8y < 8 < = that is singular at 8 = 0, where 6, is an
arbitrary angle with 0 < 6§y < =, often taken as n/2. Everywhere except
at 6 = 0 and 8 = = the magnetic field will be given at large distances
by B — gx/r?, where g is the magnetic monopole strength. This can be
written as the curl V x A of a vector potential whose only non-vanishing
component is in the azimuthal ¢ direction. For 0 < 6 < 6y we must
take 4, = g(1 — cosB)/r sinf, which is only singular at § = =, while
for 6 < 6 < m we must take 4, = —g(1 + cos8)/rsin0, which is only
singular at 8§ = 0. The difference AA between these two vector potentials is
a gradient VA with A = 2g¢, which of course does not affect the magnetic
field for 0 < 6 < =, but could affect the dynamics of charged fields. A
gauge transformation with A = 2g¢ will change a field of charge g by
a factor exp(2igge), which is not single-valued unless 2qg is an integer.
This is the Dira¢ quantization condition; the existence of any magnetic
monopole with monopole moment g would require all electric charges to
be integer multiples of (2g)~!. For the 't Hooft-Polyakov monopole this
condition is automatically satisfied, because here g = 1/¢, and all charges
in the Georgi-Glashow model are integer multiples of ¢/2.

The Georgi-Glashow model was ruled out as a theory of weak and elec-
tromagnetic interactions by the discovery of neutral currents, but magnetic
monopoles are expected to occur in other theories, where a simply con-
nected group G is spontaneously broken not to U(1), but to some subgroup
H'x U(1), where H' is simply connected. (According to Appendix B of this
chapter, for simply connected groups G we have ny(G/H) = mn;(H), which
for H=H' x U(1) equals 7\ (H') x m(U(1)) = = (U(1)) = Z.) There are
no monopoles produced in the spontaneous breaking of the gauge group
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SU(2) x U(1) of the standard electroweak theory, which is not simply
connected. (About this, more below.) But we do find monopoles when
the simply connected gauge group G of theories of unified strong and
clectroweak interactions, such as SU(4) x SU(4) or SU(5) or Spin(10),
is spontaneously broken to the gauge group SU(3) x SU(2) x U(1) of
the standard model. (See Section 21.5.) The monopoles in this case are
expected to have a mass larger by an inverse square gauge coupling con-
stant than the vector boson masses M &~ 101°-10'¢ GeV produced by this
symmetry breaking. Such monopoles would have been produced when
the universe underwent a phase transition in which G was spontaneously
broken to SU(3) x SU(2) x U(1), at a temperature T of order M.

This poses a problem for some cosmological models.!” The scalar fields
before this phase transition would have necessarily been uncorrelated
at distances larger than the horizon distance, the furthest distance that
light could have travelled since the initial singularity. At an early time
t in standard cosmological theories!® the horizon distance is of order
t = (GyTH ™2 (where Gy ~ (10!° GeV)? is Newton’s constant), so the
number density of monopoles produced at this time would have been
of order t ~ (GyM*)*/?, which is smaller than the photon density
M? at T ~ M by a factor of order (GyM2)*/2, For M ~ 1015 GeV
this factor is of order 1075, If monopoles did not find each other to
annihilate, then this ratio would remain roughly constant to the present,
but with at least 10° microwave background photons per nucleon today,
this would give at least 103 monopoles per nucleon, in gross disagreement
with what is observed. This potential paradox was one of the factors
leading to inflationary cosmological models,'” in which there was a period
of exponential expansion, which if it occurred before the monopoles were
produced would have greatly extended the horizon, and if it occurred after
the production of monopoles (but before a period of reheating) would
have greatly diluted the monopole density.

The discovery of monopoles of any sort would create opportunities
for the observation of remarkable phenomena, including the existence of
fermion-monopole configurations of fractional fermion number,?® and the
violation of baryon conservation in fermion—-monopole scattering.?!

% % %

In the above discussion we have considered only monopoles associated
with the spontaneous breakdown of a simply-connected gauge group G.
This raises a question. For every Lie group G, whether simply connected
or not, there is a simply-connected group G with the same Lic algebra,
known as its covering group. (For examples, see Section 2.7.) Any non-
simply connected group has fewer representations than its covering group
(for instance, the doubly-connected groups SO(n) have only scalar, vector,
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and tensor representations, while their covering groups Spin(n) also have
spinor representations). It a theory does not happen to involve fields that
belong to the extra representations of the covering group, then are we
are free to consider the gauge group of the theory to be either the non-
simply connected group G or its covering group G? In particular, does
the menu of possible monopoles depend on whether the theory contains
only fields transforming as representations of a non-simply connected
group G, or additional fields that would only furnish representations of its
covering group G? For instance, in the original Georgi-Glashow modell?
the only scalar fields belonged to a representation of SO(3), the three-
vector, but there were fermions that belonged to spinor representations
of the covering group Spin(3) = SU(2). Would the atlowed values of the
magnetic monopole moment change if we added scalar fields belonging
to the spinor representations of SU(2)? Would it change if we removed
the fermions?

The answer is that the menu of possible monopoles does not depend on
whether we say that the gauge group is a non-simply connected group G or
its covering group G, and therefore is unaffected when we add or remove
fields belonging to representations of G that are not representations of G.
As we saw in Section 23.1, in general the topologically stable monopole-
like configurations are classified according to the elements of 7,(G/H).
According to a result quoted in Appendix B of this chapter, this homotopy
group consists of those elements of n;(H) that correspond to the trivial
element of 7;(G) when H is embedded in G. But if we replace G with
its covering group G, we also replace H with a different subgroup H’,
because some of the loops in H do not return to the base point when H is
embedded in G. These are just the loops that do not become trivial when
H is embedded in G, so n2(G/H) = m1(H’), and thus as far as monopoles
are concerned we could just as well say that the gauge group is G rather
than G.

For instance, as far as the scalar fields are concerned, the gauge group
of the Georgi-Glashow model might be considered to be the doubly-
connected SO(3) rather than its simply-connected covering group SU(2).
The unbroken subgroup is then $O(2), in which we identify transforma-
tions that differ by a 360° rotation. Thus 7;(SO(2)) includes loops that
extend from the unit element to a 360° rotation, which would not be
loops when $O(3) is embedded in SU(2). But 7,(S0O(3)/50(2)) is not the
same as 71(SO(2)), but rather excludes the loops that are homotopically
non-trivial when S0O(3) is embedded in SU(2), which are just the loops
that extend from the unit element to a 360° rotation, so m(SO(3)/S0(2))
is the U(1) subgroup of SU(2), just as if the gauge group were taken to
be SU(2) from the beginning,

It is convenient always to consider the gauge group G associated with
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any semi-simple gauge algebra to be the simply-connected covering group,
s0 that we can use the simple result that ny(G/H) = n;(H). As we have
just seen, the connectivity properties of H are then fixed by its embedding
in G, or more precisely, by the embedding of the Lie algebra of H in
the Lie algebra of G. For instance, an SU(3) gauge algebra might be
spontaneously broken either into an SU(2) subalgebra, under which the
defining representation of SU(3) transforms as a doublet plus a singlet,
or into an SO(3) subalgebra, under which the defining representation of
SU(3) transforms as a three-vector. In the first case we do not have
the option of considering the unbroken subgroup to be SO(3); since
m(SU(2)) = 0, there are no monopoles here. In the second case the
unbroken gauge group must be regarded as SO(3), not SU(2), so the
theory does have monopole-like configurations, classified according to the
elements of m;(SO(3)) = Z,. The nature of the unbroken subalgebra of H
and its embedding in the gauge algebra G may be dynamically affected
by the variety of field types that we introduce in the Lagrangian, but once
the algebra of H and its embedding in the algebra of G are fixed, the
menu of monopoles is otherwise entirely unaffected by the variety of fields
in the theory.

In particular, the argument that led to the Dirac quantization condition
shows that, in any theory in which a Lie algebra G is spontaneously
broken to a subalgebra including the electric charge operator, the allowed
magnetic monopole moments are integer multiples of the reciprocal of
the smallest electric charge that appears in the representations of the
covering group of G, whether or not there is actually any particle that
carries that charge in the theory. If the algebra of G itself contains a
U(1) generator, then we must consider the covering group of this U(1),
which is the non-compact group of translations along the real line. If this
U(1) generator appears as a term in the electric charge operator, as in the
standard electroweak theory, then there is no minimum electric charge in
the representations of the covering group, and hence no monopoles.

23.4 The Cartan—Maurer Integral Invariant

In understanding the topology of various compact manifolds, it is a great
help that there is often a topologically invariant quantity that can be
written as an integral over the manifold. This will be important in our
discussion of instantons in the next section, and it has already been used
in studying Wess-Zumino-Witten terms in Sections 19.8 and 22.7.
Consider a mapping of an arbitrary compact manifold & of odd dimen-
sionality d with coordinates 8,02, -84 into a manifold .# of matrices
g(8',0? - 8% with Detg # 0. (For the applications that concern us here,
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& is usually a sphere S;, and the g are the elements of a Lie group G
in some representation.) We define a functional of g(#), known as the
Cartan—Maurer form:

/d@l d92 . Gd finriy

oe(8 og(8
<1 {0 B 0% 0 ED ) @aan

where €27 is the totally antisymmetric quantity with e!2"¢ = 1. From
the fact that €274 = —(—1)4¢2 %4 we see that .#[g] vanishes where &
is even-dimensional, so we will restrict ourselves here to the case where d
is odd. The usefulness of this quantity arises from its several remarkable
properties.

First, this integral is independent of the coordinate system used to
parameterize the manifold &% . This follows rather obviously from the fact
that €'2"% i3 a contravariant tensor density, in the sense that

L0 60 i AT
fyiy . = 2 id
o ageagw % ( 39 ) o

Second, the integral (23.4.1) is also invariant under small deformations
of the mapping & — .#. Using the properties of the trace, we see that
under an infinitesimal change g — g + dg of the function g(), the change
in each factor g~ 'dg/00" in (23.4.1) makes the same contribution to the
change in .#[g]:

5.71g] -d/dQ d6% - do v

T { - O)aagéf) (0 )%S) , ( —1(9)568(;2))} .

Now, the last factor in the trace is

_1,,.08(0 _ 4,080 dog(d
5 (7' 0% ) == 00 O FT + o705

%
0) 55 (32087'(6)) 50)

When we integrate by parts, the derivative 8/06% gives no contribution
when acting on the partial derivatives dg(8)/06™ because €'2"% is anti-
symmetric. The remaining d — 1 terms where 0/6% acts on g~!(6) are all
equal except for an alternating sign, so since there are an even number of
them they add up to zero.

Finally, let us specialize to the case where & is the sphere S;. Because
F¥[g] is invariant under small variations of g(0), it can be regarded as a
function .#(c) only of the homotopy class ¢ to which g(6) belongs. The
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integrals #(c) (or strictly speaking, exp{.#(c)}) furnish a representation of
the homotopy group m(.#), in the sense that

F(cq X cp) = F(cg) + Flcp) . (234.2)

(If g,(0) and g,{0) are elements of the homotopy classes ¢, and ¢; respec-
tively, then the homotopy class ¢, x ¢; consists of mappings homotopically
equivalent to

(0) = { 8a(201,0:---0) 0<0 <
Bab g5(20; — 1,0, -6, <0 <

The part of the integral .#[g,;] over the hemispheres with 0 < ¢ < 1/2
and 1/2 < 6, < 1 can be done by changing variables to 6] = 26; and
6] = 201 — 1, respectively, yielding the terms #(¢,) and #(cp) in (23.4.2).)

In particular, this telts us that the homotopy classes ¢, ¢, ¢ X ¢, ¢tc.,, and
¢ ¢ x ¢! etc., have

1
2
1

1
2

F("y=nS(c). (23.4.3)

If #(c) # 0 for some ¢, then these invariants are all different, so the
classes ¢" are all different, and therefore form a subgroup Z of mi(.#4).
This goes far to explain the great difference between the sizes of the
homotopy groups for odd and even dimensions shown in Appendix B of
this chapter. For instance, n;(U(1)) = Z, n3(G) = Z for all simple Lie
groups G, and ns(SU(n)) = Z for all n = 3, while for all Lie groups G,
my(G) = 0 and 74(G) is finite.

As a simple example where #(¢) # 0, consider the homotopy group
n1(U(1)), which is the same as the group 7((S;) used as an example at
the beginning of the previous section. Any mapping S; — U(1) may
be characterized by v, the number of times that the phase of the U(1)
clement goes counterclockwise around S; minus the number of times it
goes around S; in the opposite direction, as the coordinate § goes around
S1, two mappings being homotopically equivalent if and only if they have
the same v. The vth class contains the mapping g,(8) = exp(2ivrd) with
0 < @ < 1, for which

1
SFlgy] = /0 d6 exp(—Zin)% exp(2iv8) = 2ivz

thus verifying that = (U(1)) = Z.

As an aid to calculating #(g) in less simple cases, supposc that we can
continuously deform the manifold .# into a Lie group H of dimension-
ality d. The result of performing the H transformation with parameters
8 followed by the H transformation with parameters ¢ is an H transfor-
mation, say with parameters 8(8, ¢). In terms of a matrix representation
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g(6), this reads

glp)g(0) = g(0' (9, 9)) .

Differentiating with respect to ¢ with ¢ fixed and multiplying on the left
with the inverse of this equation gives

26" 1080 og0) _
207 & of
The integrand of .#[¢] at a point 6’ is therefore

eJiizii Ty {g—l(gr)ag(g) —1( )58(9) .g_l(g,)ag(é)’)}
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Now, every Lie group H has a metric y;;(#) (not necessarily unique) which
is form-invariant in the sense that

. 06k pf
ij(8) = 207 207 Ve (8) . (23.4.4)
For instance, we can take
oy L ~1,,08(0) 210289
0 =—Tr {05052 24y

For any choice of y;;(8), the determinant of Eq. (23.4.4) gives

06\  [Dety(0")
Det (aef) ~ \/ Dety(d)

By replacing the coordinates 6 in Eq. (23.4.1) with ¢, we find

d da(0 dg(0
751 =i T {g 0 T 020 g 0B
1 d £y ’
X e / %9’ \/Dety(0) . (23.46)

Since the parameters ¢ of the second H transformation are arbitrary, we
may regard 6 and ¢ as independent variables, and evaluate the right-hand
side of (23.4.6) at any value of 6, say 6’ = 0. It will be convenient to
normalize the generators t; and coordinates # so that for 0 — 0,

g(0) — 14 2i0'¢; . (23.4.7)
In this case, Eq. (23.4.6) reads

o 1
gl = (20 Tr ft ty 1) = / ‘0’ \/Dety(0) .
ypetr®) (23.4.8)
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We will be especially interested in the case d = 3. Bott?? has shown
that for any simple Lie group G, all continuous mappings S3 — G may be
continuously deformed into mappings of S; into a ‘standard’ SU(2) sub-
group of G. (Where G = SU(n), this standard SU(2) subgroup is the one
that acts only on the first two components of the defining representation
of SU(n). Not all SU(2) subgroups of SU(n) are equivalent to this one.)
As remarked in Section 2.7, in a 2 x 2 representation the general element
of SU(2) may be written

O4+i6; 0,410
g(9):( 4+i6s 02410,

sid 6. ) — 04 +2i0 - ¢, (23.4.9)

where as usual

o _1(01 10 —i _Ll(1 0
1_2 1 0 s 2""‘2 i 0 5 3_2 0 —1 3

and 04 and @ are real, with (6;)> = 1 — #%. (Note that Eq. (23.4.9) is
consistent with the normalization convention (23.4.7).) A straightforward
calculation gives the metric (23.4.5) as

0:0;
n0) = 8y + ;62 , (23.4.10)
so that
1
Det y(6) = -y (23.4.11)

Hence Eq. (23.4.8) here reads
>0
J1-67
Using 4t;t; = 6;; + 2ie"t; and Tr {t,ty} = L, we see that
8k Tr {titite} = Qielk el = 12; .

Also, for the ‘identity’ mapping gy, the integral here runs twice over the
interior of the unit ball (because 84 can be positive or negative), and gives

/ 430 _2/1 dny? dr _9?
V1—6° J1=rr
For the class ¢ of mappings homotopic to g;, we have then
#(¢) = 24n* (23.4.12)

Flgl = —8ie'* Ty {fftjtk}/

and so
F(") =24y . (23.4.13)

The integer v is known as the winding number. This result is for a
representation and normalization conventions for which the standard
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SU(2) subalgebra has generators t; with structure constants e and
Tr (tftj) = %5”’. More generally, if [¢;, tj] = igEfjktk and Tr (titj) = %Ngzélj,
then

#(c') = 247Ny . (23.4.14)

The results (23.4.13) or (23.4.14) show incidentally that for every simple
Lie group, n3(G) contains Z. As listed in Appendix B to this chapter,
n3(G) = Z for all simple Lie groups. Thus the homotopy class of g(#) for
any simple Lie group is entirely determined by its homotopy class when
the group is deformed into its standard SU(2) subgroup.

23.5 Instantons

As we saw in Section 23.1, the topologically non-trivial solutions of a pure
gauge theory with a simple gauge group G in d = 4 Euclidean spacetime
dimensions correspond to the elements of the homotopy group n3(G) = Z.
These are four-dimensional field configurations, known as instantons, that
(for reasons discussed in the next section) must be included along with
their fluctuations in path integrals. After Belavin, Polyakov, Schwarz,
and Tyupkin'! demonstrated the existence of these solutions, 't Hooft??
showed that the inclusion of these configurations in path integrals solved
the U(1) problem outlined in Section 19.10. Here we shall first discuss the
instantons themselves, and then consider their role in path integrals.
According to Eq. (23.1.7), in order for a topologically non-trivial gauge
field to have finite action, the gauge fields must approach a pure gauge at
r — o (where here r = \/ﬁ, with { summed over the values 1, 2, 3, 4):

idi(x) -» g '(%)0ig(}) , (23.5.1)

where A4; = t.A,; and g(X) is a direction-dependent element of the gauge
group G. The topological invariant discussed in the previous section may
therefore be written in terms of the asymptotic behavior of the gauge field

Slgl = / d0' 6% d6® eobe
L1 28(0) . 3g(0) _, , 0g(6)
1 g 1.0, Y8 L Y8
O%; 0%; 0%y,
204 58P a0¢
where 6% with @ = 1,2, 3 are any three parameters used to specify the

direction of the unit four-vector X. This surface integral can be evaluated
using Gauss’s theorem. In analogy with the current (22.2.29) in Minkowski

= —ilimy e / 46" 46 dg> e Tr {Aid;A) | (2352)
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spacetime, we can define a current in Euclidean spacetime
Gr = efje|AyiFyje — 1Cupy Aui Agj At (23.5.3)
whose divergence is
3Gy = LeipaFuijFau - (23.5.4)

(Here €7, is the totally antisymmetric tensor with efy;, = 1.) We are using
a representation of the gauge group with totally antisymmetric structure
constants, so that

Tr {tatp} = INOus, (23.5.5)

with N a constant that depends on the representation in which we calculate
the trace in Eq. (23.5.2). Hence Eq. (23.5.4) may be written

Gr = (2/N)efiy Tr [AiFp + (2i/3)Ai A A (23.5.6)
For r — oo, the field strength Fy; vanishes, so
Gi — (4i/3N) ey Tr [A,-A j Ak] . (23.5.7)
Hence Eq. (23.5.2) gives
Slg] = —(3N/4) f d'x 3 Gy = —(3N/8) eFy, / &% FujFaa . (23.5.8)

Thus in order to demonstrate the existence of topologically non-trivial field
configurations, we have to show that there are configurations for which
the Cherp—Pontryagip f:lensity efik! Fyij Fyq has a non-vanishing iptegral.

For this purpose, it is very useful to take advantage of what is known
as the Bogomol'nyi inequality.'® From the fact that

- 1.F 2 4
0< (Fajj + EGijkIF&H) d*x
(with squares indicating obvious index contractions), we have

S[A] = 4 fffk; /Faij Foki d4x‘ = |.#[g]|/3N, (23.5.9)

where S[A4] is (up to a factor) the Euclidean action
S[4] = 1 / Fij Fas d'x (23.5.10)
The lower bound (23.5.9) is evidently reached if and only if the gauge field
1s seif-dual or anti-self-dual, in the sense that
Foij = £ § €fipg Fuui - (23.5.11)

Hence any solution of the first-order equation (23.5.11) is a minimum of
S[A] for gauge fields of winding number unity, and hence also a solution
of the second-order Yang—Mills field equation.
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Belavin et al.! found a solution of Eq. (23.5.11) of the form

. r? Aya A
iAi(x) = (m g1 (X)dig1(X) , (23.5.12)
where R is an arbitrary scale factor, and g;(X) is an element of an SU(2)
subgroup of the gauge group, with

2ix -
g1(%) = (x——4+ = t) , (23.5.13)

¥
and

t_l(Ol t_lO—i if_llO
=2\1 0 )" 2‘2(:‘ 0 )" 3—2(0 —1)
(23.5.14)
It is clear that this solution has the asymptotic behavior (23.5.1), with
g(X) the same as the ‘identity’ mapping (23.4.9), so this solution belongs
to the homotopy class of the identity map, and therefore as we saw in
the previous section has winding number v = 1. From Eqgs. (23.4.14) and

(23.5.9) (which is here an equality) we have then
S[A] = 8=°. (23.5.15)
From Egs. (23.5.10) and (23.5.11) (with positive sign), we also have

€ f Fuij Foxg d*x = 6477 . (23.5.16)

This solution is not unique, because it can be translated or subjected to a
gauge transformation, but aside from these degrees of freedom, there are
no other solutions of the field equations with winding number unity.?

Because we have found field configurations with v = 1, we know
that there are also field configurations with any integer v. For instance,
solutions with v a positive integer .4” can be constructed by superimposing
A" solutions with v = 1 with centers so far apart that at these distances
the non-linearities of the field equations become unimportant. A solution
with v = —1 negative can be found by replacing g, in Eq. (23.5.12)
with ¢!, and solutions with v a negative integer —A4" can be found
by superimposing .4 of these at large separations. For general winding
number, Egs. (23.5.15) and (23.5.16) become

S[A4] = 8=?|v|, (23.5.17)

ff,ekl f Fyij Faa d*x = 64n?y . (23.5.18)

These results are for a gauge field normalized as in Eqgs. (23.5.11)-
(23.5.13). With this normalization, the action I[A] is not —S[A], but

1[A] = —S[A)/g? = —8n’iv|/g?, (23.5.19)
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where g i1s the conventional coupling constant. If we had used our
usual convention of including a factor g in the generators and structure
constant, then the action I[A4] would be the same as —S[A4], but with A,
and F,,, carrying a factor 1/g we would have S[A] = 87%/g? instead of
Eq. (23.5.14), so in this case again the action would be —87n2/g?, but now
in place of Eq. (23.5.14) we would have

€1 / Fuij Faa d*x = 64n%v /g2 . (23.5.20)

We shall see in the next section that in path integrals we must sum
the effects of instantons of all winding numbers. The contribution of
configurations of winding number v # 0 to Euclidean path integrals is
suppressed by a factor exp(I[A]) = exp(—8/v|n?/g?). In Section 23.7 we
will see that the coefficient of this exponential is a negative power —n of g:
in quantum chromodynamics, n = 12. The function g~" exp(—8|v{z?/g?)
and all its derivatives with respect (0 g vanish at g = 0, so such contribu-
tions are non-perturbative — they will never be encountered in any order
of perturbation theory.

This does not necessarily mean that these contributions are small. As
we saw in Chapter 18, in quantum chromodynamics the coupling g is not
a fixed dimensionless parameter, but a function of a sliding energy scale,
and becomes large at low energies. The effective energy scale to use in
the coupling in Eq. (23.5.19) is determined by quantum fluctuations, the
subject of Section 23.7, but on dimensional grounds it cannot be very
different from 1/R, where R is the instanton size mm Eq. (23.5.12). The
instanton size is not fixed, but must be integrated over, with some weight
function that depends on the process under consideration. In quantum
chromodynamics the running coupling constant g, is given for large u by
Eq. (18.7.7) as

2 87'[2
8= Boln(u/A) °

where fo = 11 —2ns/3 and A = 250 MeV is the quantum chromodynamic
scale factor. The factor exp(—8n°/g} ) is therefore, for small instantons,

exp ( — Snz/g%m) = (RA)ﬁO :

We cannot calculate this factor for large instantons, with RA > 1, but it
is clear that in this case there is no suppression of instanton effects.

Despite initial hopes, the discovery of instantons has not led to much
improvement in our ability to do quantitative calculations in quantum
chromodynamics. On the other hand, as we shall now see, it has pro-
duced spectacular gualitative changes in our understanding of quantum
chromodynamics and other gauge theories.
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The mere fact that there are solutions of the field equations for which
the integral (23.5.15) does not vanish is enough to provide a solution
of the U(1l) problem discussed in Section 19.10. Under global U(1)
transformations y — exp(iysa)p, the measure for integration over quark
fields undergoes a change given by Eq. (22.2.10):

[dy][dp] — exp {ioc / &f?(x)d“x} [dy][dp] , (23.5.21)

where (with the matrix ¢ here equal to unity) the anomaly function .«/(x)
is given by Eq. (22.2.45):

1
(%) = 1 €t Fijo Frtp trtaly . (23.5.22)

The existence of this anomaly would not in itself solve the U(1) problem,
because the quantity (23.5.22) is a total derivative, and so would have
a zero integral for a non-singular gauge field that vanishes sufficiently
rapidly at infinity. The instanton solution vanishes only as 1/r, and yields
a non-vanishing value for this integral, given by Eqgs. (23.5.22), (23.5.18),
and (23.5.5) as

f d*x o (x) = 2Nv, (23.523)

showing that the anomaly does violate the U(1) chiral symmetry.

As we saw in Section 22.4, the currents of baryon and lepton number
also contain anomalies due to the interaction of quarks and leptons
with the SU(2) x U(1) gauge fields of the standard model. Instanton
configurations of the SU(2) gauge ficld therefore produce violations of
baryon and lepton conservation.”> As noted in Section 22.4, there are
various currents whose conservation is not violated by anomalies or
anything else, such as baryon number minus lepton number, and the
differences of electron, muon, and tau lepton numbers, so these will
be conserved in any baryon- and lepton-non-conserving process. For
instance, the decay of a proton or deuteron is forbidden, but the decay
He® > et + ut + 7, is allowed. The amplitudes for these effects are
suppressed by the same factor exp(—8|v|n?/g?) as before, but now with g
the SU(2) coupling constant ¢/ sin 8, evaluated not at a sliding scale but at
the natural scale for electroweak processes, roughly of order mz. Taking
¢2/4n = 17129 (see Section 18.2) and sin® 8 = 0.23, the suppression factor
for [v| = 1 is exp(—373). He? decay into three antileptons is not likely to
be observed.

L O

There is another approach?® that illuminates some aspects of instantons.
In temporal gauge, with A,(X, x4) = 0, the gauge field for x, — +o00 1s
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expected to approach time-independent pure gauges for x; — +o0:
IA(X, X4) = itaAg(X, x4) = g2 (X)Vg4(x), (23.5.24)

where g (x) are group elements in the representation generated by t,.
Assuming that A,(X, x4) vanishes for x — oo, the group elements g4 (x)
must approach constants g4 for X — oo, so the three-spaces at x4 —
may be regarded as three-spheres, with the point at infinity regarded as
an ordinary point. Following the same argument that led to Eq. (23.4.13),
we then have

E;jk f &’x Tr {gil(x) dig+(x) g2 () 0;g+(X) g5 (X) Org(X) } = 24n*n, ,

(23.5.25)
where ny are integers. The integral over the boundary of four-space in
Eq. (23.5.2) may be regarded as the integral over the ‘plane’ x4 = +oo
minus the integral over the ‘plane’ x4 = —oo, so from (23.5.8) and (23.5.18)
(with N = 1) we have

V=n,—n_. (23.5.26)

The exponential factor exp(—8|v|n?/g?) from Eq. (23.5.19) may therefore
be regarded as the amplitude for a transition from a configuration with
spatial winding number n_ at x4 — —o0 to one of spatial winding number
ni at x4 — +00. The exponential form of this factor for v 0 reflects the
fact that this is a tunneling process; no continuous sequence of pure gauge
fields can take us from a configuration of one spatial winding number to
a configuration with a different spatial winding number.

The interpretation of the factor exp(—8|vjn?/g?) as a tunneling am-
plitude suggests that baryon- and lepton-non-conserving processes may
proceed rapidly at temperatures above about 1 TeV, where instead of
having to tunnel through the barrier, thermal fluctuations can take the
vacuum over the barrier.?” This process may be of cosmological impor-
tance, but it is still subject to the selection rules mentioned above: thermal
fluctuations will not change the density of baryon number minus lepton
number, or the differences of the densities of the three varieties of lepton
number.

23.6 The Theta Angle

We have seen that there are configurations of arbitrary integer winding
number, but how do we know that these configurations must be included
in the path integral? To keep an open mind, suppose we add up configura-
tions with arbitrary weight factors f(v) for each winding number, leaving
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open the possibility that some or most of these weight factors might van-
ish. The expectation value of a local observable ¢ located within a large
Euclidean spacetime volume € is then

Lo f0) f[ad]exp (Ialg]) Olg]
T () f,ldg] exp (Talg))

where ¢ stands for all the fields of the theory; the subscript v on the
integrals over ¢ indicates that we are to include only configurations of
winding number v; and Iq[¢] is the integral of the Lagrangian density
over the spacetime volume Q. Now suppose that Q is divided into two
very large volumes Q; and €, with @ in the volume Q;. The integral over
all fields with winding number v may be written as an integral over all
fields with winding number v, in volume Q; and winding number v, in
volume €2;, with v; and v» summed over all values with vi + v3 = v, and
0 to a good approximation Eq. (23.6.1) becomes

T SO1 +v2) [, [l exp (In,[91) O1g] f,,[de] exp (Ia,[4])

T f01 +v2) [, [d¢] exp (Ta,[61) [, [dg] exp (o, [4])
(23.6.2)

(O)a (23.6.1)

{(O)a

But then for general weight factors the average is not the same as if we
omitted the volume €;, in contradiction with our general ideas about
cluster decomposition. (See Chapter 4.) In order for the factors involving
the volume €2, to cancel in this ratio, we must have

fvi+v2)=Fv)f(v2).
This will be the case if and only if f(v) is of the form

f(v) =exp(ifv), (23.6.3)

where 8 is a free parameter. Thus in particular we cannot arbitrarily
discard all configurations with non-zero winding number, because then an
instanton of winding number v in one region would have to be balanced
with an instanton of winding number —v in some other region, making
it impossible to calculate expectation values without considering what is
happening far from the location of the operators being measured.

The factor f(v) may be put in a more familiar form. According to
Eq. (23.5.18), with gauge ficlds normalized so that in the standard SU(2)
subgroup the structure constants are €;j, the winding number may be
written as an integral:

1

e

/(d4x)E fgkx Faij Fart . (23.6.4)
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This can be expressed in terms of a Minkowskian path integral; since

(d*x)g = id*x; Fa3g = —iFy30; and €' = —|, Eq. (23.6.4) may be written
1

6472

Thus inclusion of the weighting factor (23.6.3) is therefore equivalent to
adding a term

y = f d*x € F i Fapo . (23.6.5)

_ 7,
64~

to the Lagrangian density. But as mentioned at the beginning of Section
15.2, we might have included such a term in the Lagrangian of any
non-Abelian gauge theory anyway, with arbitrary real 6.

The inclusion of a term (23.6.6) in the Lagrangian density would violate
P and CP conservation. We could of course simply set & = 0, but this
would invalidate what in Section 18.7 was scored as one of the successes
of quantum chromodynamics: it made it automatic for P and CP to
be conserved by the strong interactions even though they are evidently
violated by the weak interactions.

To assess the physical consequences of including the term (23.6.6) in the
Lagrangian, consider the effect of redefinition of all the fermion fields

Py = €7 Fyi Fape (23.6.6)

py — expliysas)ypy , (23.6.7)

where f 1s a flavor index, and oy are a set of real phases. According to
Egs. (22.2.10) and (22.2.24), the effect on the measure for path integrals
over fermion fields is

[dy][d] — exp {52% [ @ €yupo i FL7 Zaf} [dy)[dp] . (236.8)
f

(We are using generators normalized so that Tr (t4t5) = dqp/2.) Comparing
this with Eq. (23.6.6) shows that this is equivalent to shifting # by
0> 0+2> a. (23.6.9)
7

The redefinition of the fermion ficlds will also change the mass terms in
the Lagrangian density. In order to take account of masses involving ys,
let us write the fermion mass term in the Lagrangian as

Lm=—1) Mp(L+yshpr— 4y Mppr(l—yshwy,  (236.10)
f f

with mass parameters .#; which, if complex, would violate P and CP
conservation. Then the redefinition (23.6.7) changes these parameters by

M ¢ — expliog).M s . (23.6.11)
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A mere change of path integration variables cannot have any physical
effect, so observable quantities cannot depend separately on @ or the
phases of the mass parameters .4 ¢, but only on the combination

exp(—if) [[ .#; . (23.6.12)
;

In particular, we can always define the fermion fields so that § = 0, but
at the price of perhaps introducing P and CP violating phases in the mass
parameters.

This discussion shows that if any of the quark masses were to vanish,
then the theta angle would have no effect and there would be no P or
CP non-conservation in quantum chromodynamics. The analysis of quark
mass ratios in Section 19.7 indicates that the quarks all have non-zero
masses, though it is sometimes suggested that the inclusion of terms of
second order in my in this analysis might allow m, to vanish.”® But there
is no question that the u and d quarks are quite light, which leads to some
suppression of the effects of a non-zero theta angle. We saw in Section
19.4 that m, and my are roughly of order m2 /my (where my is used here
as a typical quantum chromodynamic mass scale), so we might expect
the effects of the theta angle to be suppressed by four factors of m,, but
this is not quite correct. With P and CP not conserved there would be a
non-zero amplitude for the =% to disappear into the vacuum, proportional
to m?, but the ‘tadpole’ graphs with pion lines ending in such vacuum
transition vertices would be enhanced by a factor m_? from the pion
propagator, giving a net effect proportional to m2, not m?. In particular,
if we define fermion fields so that all .#; are real, then a non-zero theta
angle would produce a P- and T-non-conserving neutron electric dipole
moment proportional to || and m2, and hence on dimensional grounds
of order?

dy = |0lem /my ~ 107158 e cm . 23.6.13)
n N I

The neutron electric dipole moment is known to be less than about 10~ ¢
cm, 50 |0 < 1077,

In order to explain in a natural way why 8 is so small, Peccei and
Quinn®® proposed a theory in which 6 became in effect a dynamical
variable, which could relax to a minimum of the effective potential, at
which P and CP would be conserved. Their idea was taken up by Wilczek
and myself,’! who noted that it would require the existence of a light
spinless particle, the axion. The axion that appeared in the original
Peccei-Quinn model has been ruled out by experiment, but there are more
general possibilities,*? in which the axion couples too weakly to ordinary
matter to have been observed.

The common feature of all versions of the axion theory is that there
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18 some U(1l) symmetry that is spontaneously broken at energies much
higher than those associated with quantum chromodynamics, and is also
broken by an anomaly involving the gluon fields. According to the
general formalism of Chapters 19 and 22, the low energy effective field
theory will contain a Goldstone boson field ¢, so that, under the symmetry
transformation

¢ — ¢+ Fpe, (23.6.14)
the effective Lagrangian undergoes the transformation
A
6L et =~z s FI" L, (236.15)

where A4 is a dimensionless constant of order unity, characterizing the
anomaly, and Fj is a constant of the order of the energy scale at which
the symmetry is spontaneously broken (with ¢ defined to be canonically
normalized.) Then the terms in the effective Lagrangian involving ¢ are

Ly —8 uPOFp — 6—47 v o FYPFRo 4o (23.6.16)
where M = F, /A and ‘- - - denotes possible interactions involving deriva-

tives of ¢. Comparing Eqs. (23.6.16) and (23.6.6), we see that, for
a constant ¢, all observables will be functions not of ¢ and @ sepa-
rately, but only of 0 + ¢/M (This is with fermion fields defined to make
the mass parameters .# all real; otherwise observables will depend on
) =3 s Argd; + ¢/M.) If everything in the theory but the theta term
23.6.6) and the ¢ interaction in Eq. (23.6.16) conserves P or CP, then the
ffective potential will be even in 0 + ¢/M, so it will have a stationary
yoint at ) + ¢/ M = 0, preserving the conservation of both P and CP. In
he real world P and CP are not exact, but the only observed violations
re in the weak interactions, and would shift the expectation value of ¢
nly a small way’? from —M?9.

Even without specifying the underlying theory, by using effective field
heory techniques it is possible to say a fair amount about the general
roperties of the axion. The most general Lagrangian for the axion field
, now including the theta term and all interactions with # and d quarks
p to order 1/M, is of the form

1

—_ #
Ly = a”qba ¢+ = Can?

[ ¢ + 9] Euvpo Fé‘v FPe

U‘u _ ifa 5 (
Y Cupitysy” u — i Sup dysy* d, (23.6.17)

here f, and f; are dimensionless coupling constants, expected to be of
der unity. As shown by Eq. (23.6.8), the redefinition {23.6.7) of the
lark fields has the effect of subjecting the quantity ¢(x)/M + 8 in the
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second term of the Lagrangian (23.6.17) to the replacement

P 40 2 g + ot (23.6.18)

By choosing «y = (8 4 ¢/M)cy /2 with constant coefficients ¢; satisfying
cy+cq = 1, we eliminate the term in the Lagrangian involving €, F{" F{°,
and change the mass term in the low energy quantum chromodynamic
Lagrangian density to

Lm = —my, Bexp { — icy(0 + qb/M)y:;]u— mydexp [— icq(@ + qb/M)ys]d .

(23.6.19)

In addition, from the kinematic part of the quark Lagrangian we pick up
a derivative interaction term

Lie, (Iy*ys)udd/M + licg (dy*ys)d /M , (23.6.20)

so that f, and f; in Eq. (23.6.17) are replaced with f}, = f, —¢,/2 and
fi = fa—ca/2. To derive an effective Lagrangian for low—energy pions
and axions, we follow the procedure of Section 19.5 (but now with u and
d quarks in place of protons and neutrons), and make the replacements:

iu — veos(n’/Fy) , dd — vcos(n/Fy;),
aysu — ivsin(n®/Fy), dysd — —ivsin(n"/F,), (23.6.21)
iwytys — LF0fn + -, idy'ys — LFpéfn’ 4+,

where v is the constant v = {fi) = {dd), and * -~ denotes terms that do
not have the one-pion pole. From Egs. (23.6.19) and (23.6.20) we find the
effective pion-axion Lagrangian

1 1 fu— T /
Lo = —26un06”n0 ~ 5 0u4' ¢ — ( 3T d ) Fr0,¢ 0"
g’ n’  cue’
—M,v COS (F_ﬂ — | —Mav cos F. + M ,(23.6.22)

where ¢’ is the difference between the axion field and its expectation value
P'=¢—(¢)=0¢+ M0. (23.6.23)

Since ¢, and ¢4 are arbitrary except for the condition that ¢, + ¢4 = 1, we
are free to eliminate the 8,¢d#n® cross term by taking ¢, = ! +f,—f, and
ci = %+ fa— fu, 50 that f, = f,. The quadratic part of the Lagrangian
(23.6.22) is

1

Ouolf;LIIROTZnO
#quad = — im0’ — 58,46 ¢.—§(¢,) MO( o ) (23.6.24)
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where

= (my + ma) v/ Fy (—mucy + macg)v/Fr M
Mj = ( (—mucy +mgcg)v/FrM  (mca +de§) v/ M2 . (23.6.25)

For M > F, one eigenvaluc of M3 is (m, + mg)v/F2, which according
to Eq. (19.7.20) is the =" squared mass. The other eigenvalue is then the
axion mass

2 U Mt F2  mgm, 2
O MPmg+me  M?(mgt+m,)? "

(23.6.26)

For the quark mass ratio derived in Section 19.7, this gives m, =
13 MeV/M(GeV).

We can also use this formalism to say something about the interactions
of axions with hadrons. The eigenvector of M} with eigenvalue m2 has a
component along the original z° direction equal to (myc, — macg)Fr/(my +
mg)M. As mentioned earlier, because of the one-pion pole this is the
dominant axion-hadron coupling. We see that the ratio of the axion and
pion production interaction amplitudes will typically be of order F,/M.
The fact that axions are not observed in such collisions indicates that
M > 3 TeV, in contradiction with the original expectation®®3! that the
anomalous U(1) symmetry is spontaneously broken by the same scalar
vacuum expectation values of order 0.3 TeV that break the electroweak
SU(2) x U(1) symmetry. It is possible to explain why axions are not found
in reactor or accelerator experiments by taking M as an independent
parameter,’2 much larger than the electroweak breaking scale, but there
are still astrophysical limitations. Limits on the rate of cooling of red giant
stars give’ M > 10’ GeV, while observations of the supernova SN1987A
indicate®® that M > 10 GeV.* Cosmological arguments suggest’® an
upper bound M < 10'* GeV, leaving an open but narrow window of
allowed axion parameters.

" For M > 107 GeV the axion mass would be less than about 1 eV, so that stars are hot
enough to produce axions. The ralio of the axion and n” decay rates into two photons
is expected to be of order (F,/M)* times a phase space ratio of order (m,/m,)*, or

Fa = () ()~ (3)
1_‘(7:”—4‘})4—}))7 M Pin TAM
Hence for M > 107 GeV the axion lifetime is expected to be longer than about 10%

s, which is ample time for the axion to travel even cosmological distances before
decaying.

5
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23.7 Quantum Fluctuations around Extended Field Configurations

Topologically non-trivial four-dimensional field configurations such as in-
stantons provide only zeroth-order contributions to path integrals. Now
we must consider the effect of quantum fluctuations around these config-
urations.

To start in a very general way, consider a set of fields, collectively called
¢(x), whose dynamics is described by the Euclidean action I[¢], and
suppose we have a set of configurations ¢, at which I[¢] is stationary,
where v labels the topological type of the configuration, and u represents
a set of continuous collective parameters on which the configuration
depends. For instance, for instantons v is the winding number, an integer,
and u includes the position and scale as well as its ‘direction’ in the gauge
group. Euclidean path integrals may then be written

/[dd; exp (1141)0 Z/du][dd)]exp (ITuu+ 1), (2371)

where the subscript on the integral over the fluctuation ¢’ indicates that
we are to integrate only over fluctuations that do not entail changes in
the collective parameters, and ¢ stands for any product of local functions
of field operators. Because I [¢] is stationary at ¢ = ¢, its expansion to
second order in the fluctuations takes the form

bvu+ ¢ / dxd'y Kaym(v ) 15 $(y),  (23.7.2)

where [ and m here include spin and species indices, and I, = I[¢,,]
is a function of v alone because the action is supposed to be stationary
at all field configurations ¢,,. The integral over the fluctuation ¢’ in
Eq. (23.7.1) will then yield a sum of terms from contractions of the fields
in ¢, times (for real bosonic fields) an over-all factor [Det K (v, u)]~'/?, it
being understood that K now acts only in the subspace of fluctuations
that do not entail changes in the collective parameters w. This factor
can be written as a product over the eigenvectors A,(v,u) of the ‘matrix’
K(v,u):

(Det K(v,u))_v2 = Hﬂ;l/z(v,u) , (23.7.3)

the prime here indicating that we are to exclude the ‘zero modes’, the zero
eigenvalues of K, for which the eigenfunctions correspond to changes in
the collective parameters.

These remarks allow us to refine the results given in Section 23.5 for the
coupling-constant dependence of instanton contributions with different
winding numbers. Suppose we define the fields of our theory in such
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a way that the action takes the form I[¢,g] = g 2I1[¢] where I{[@] is
independent of coupling constants. (For instance, as discussed at the end
of Section 15.2, in Yang-Mills theories we would use as a gauge field the
canonically normalized gauge field times a factor g.) Then all eigenvalues
of K are proportional to g2, and the factor (23.7.3) is proportional to g to
a power equal to the number of non-zero eigenvalues of K. This power is
of course infinite, but it can be written as the number of all eigenvalues of
K, which is also infinite but is independent of v, minus the number A"(v)
of zero modes, equal to the number of collective parameters, which is finite
and dependent on v. We conclude then that aside from factors that do
not depend on v, the contribution of fluctuations around configurations
of topological type v is a factor with a coupling-constant dependence that
is given in terms of the number .47(v) of collective parameters by

g~V (23.7.4)

This estimate is based on the approximation (23.7.2), which corresponds
to a one-loop approximation, so when higher-order terms are taken into
account the factor (23.7.4) will be multiplied with a power series in g,
whose details depend on the operators (¢ appearing in the path inte-
gral.

Let’s see how this applies to instantons. The configuration with v = 0
of course has no collective parameters, and so its contribution to path
integrals 1s just a power series in g. The configuration with v = 1 has
four collective parameters giving the spacetime location of the instanton,
one collective parameter giving the scale of the instanton, and a number
Ny of collective parameters corresponding to the rotations and/or global
gauge group transformations that do not leave the instanton invariant,
so (now including the factor exp(1,) given by Eq. (23.5.19)), the coupling-
constant dependence for v = 1 instantons is g~>~ exp(—8n2/g?). For
the v = 1 instanton (23.5.12) in an SU(2) YangMills theory, there are
three independent rotations and three independent SU(2) transformations,
but since the instanton is invariant under three combined rotations and
SU(2) transformations, we have N| = 3, so fluctuations around the v = 1
instanton yield a coupling-constant dependence g~® exp(—8n?/g?). In an
SU(3) Yang-Mills theory we have three independent rotations and eight
independent SU(3) transformations, but again the instanton is invariant
under three independent combined rotations and SU(3) transformations
in the standard SU(2) subgroup (say, acting on the first two components
of the defining representation of SU(3)), and now also invariant under one
additional SU(3) transformation that (like hypercharge) commutes with all
generators of the standard SU(2) subgroup. Hence Ny =3+8—3—1=7,
and the v = 1 instanton yields a factor proportional to g~!2 exp(—872/g2).
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Now suppose that the action I also contains a term

—/d4x‘/ d4y pi(x) '%/Ix,my(vau) Wm(y) )

involving independent fermion fields y and . If none of these fields
appear in (7 then the integral over these fields yields a factor Det X (v, u),
which vanishes if J(v,u) has any zero modes. This result can be simply
understood in terms of the rules for integration over fermionic parameters.
By expanding y(x) and {(x) in the eigenmodes of X', we can write the
integral over y(x) and {(x) as an integral over the coefficients in these
expansions. The coefficients of the zero modes do not appear in the
quadratic approximation to the action, so for each such fermionic zero
mode we have an integral over a fermionic parameter that does not appear
in the integrand, which vanishes according to the general rules of Section
9.5. The only terms in an integral over fermjonic variables that do not
vanish are those for which the integrand contains a single factor of each
integrated variable. Hence the integral over fermionic fields in Eq. (23.7.1)
will not vanish only if there is a single fermionic field in ¢ for each
zero mode of . For instantons there are fermionic zero modes whose
numbers and chiralities are governed by index theorems, like the Atiyah—
Singer index theorem derived in Section 22.2, so only certain processes are
allowed for a given winding number. It was on this basis that 't Hooft*’
showed that the baryon- and lepton-nonconserving eflective interaction
produced by v = 1 instantons in the electroweak standard model must
involve just one of each lepton flavor.

23.8 Vacuum Decay

A vacuum state is stable if its scalar field expectation values are at a
true minimum of the effective potential. But if the scalar field expectation
values are at a local minimum that is higher than the true minimum
then this vacuum will be metastable. A metastable ‘false” vacuum state
corresponding to a local minimum will decay into the stable ‘true’ vacuum
corresponding to the true minimum by a process of barrier penetration,
analogous to nuclear alpha decay or spontaneous fission. This is not
a process that can be observed in our laboratories, but it has presum-
ably occurred several times in the history of the universe as various
symmetries have become spontaneously broken, so it is important to be
able to calculate the rate of such false vacuum decay. As we shall now
see, this calculation involves consideration of yet another extended field
configuration.®

Let us concentrate on the component ¢ of the scalar field multiplet that
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acquires an expectation value (¢) in the true vacuum. For instance, in
the theory of broken chiral symmetry discussed in Section 19.5, ¢ would
be the fourth component of a chiral four-vector. It will turn out that,
where barrier penetration is strongly suppressed, the other scalar fields
(including those of any Goldstone bosons) do not affect the dominant
suppression factor in the decay rate. For definiteness, we will take the
Lagrangian density in the form

£ ==30.90"¢—V(g). (23.8.1)

We assume that the lowest-order effective potential V(¢$) has a true
minimum at ¢ = (¢) and a local minimum at ¢ = 0, and we adjust an
additive constant in the Lagrangian density so that V(0) = 0, in which case
V({¢)) < 0. We want to calculate the rate at which the false vacuum state
with scalar field expectation value zero will decay into the true vacuum
state with scalar field expectation value {¢).

The results of Appendix A of this chapter (Egs. (23.A.6), (23.A.21), and
(23.A.23)) show that the energy Ey of the false vacuum state in which the
scalar field vacuum expectation value vanishes is given by

Ey = —hmT_m 1 In {/ exp (— S{e; T]) qub(x, r)] , (23.8.2)

where S[¢; T] is the Euclidean action derived from Eq. (23.8.1)
+sz
slg; 11 =[x [ !2 (‘;‘f’) SV67 + V(d))] (2383)

T/2

and the integral in Eq. (23.8.2) is over all fields ¢(x,t) satisfying the
conditions

b(x, T/2) = dp(x,—T/2) =0. (23.84)

The energy (23.8.2) is complex; its imaginary part will give us the decay
rate.

To calculate the functional integral in Eq. (23.8.2), we look for a
stationary ‘point’ of the Euclidean action S[¢, T]. The fields at which
(23.8.3) is stationary satisfy the field equations

oS 62¢o dVi(¢)
0= — , 23.8.
bd) o2 d¢ (238.5)
subject to the boundary conditions (23.8.4). Because of these boundary
conditions, such a solution is known as a bounce.

We shall look for these bounce solutions by making the ansatz that

¢(x, t) is invariant under rotations around a point Xy, to in four dimensions:

d(X, 1) = ¢P(p) where p= \/(x —Xo)? + (t —1p)?* . (23.8.6)

— Vo + ——
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There are solutions that are not rotationally invariant in four dimensions,
but these other solutions have higher values’’ of S, and so become
negligible for large T. Using Eq. (23.8.6) in Eq. (23.8.5) yields the ordinary
differential equation

d’¢ 3d¢ ,

i + pdp V(d). (23.8.7)
Strictly speaking, a solution of this form is consistent with the boundary
conditions (23.8.4) only when T is very large compared with the char-
acteristic time associated with V(p), in which case we can take T to be
infinite in Eq. (23.8.4), which then becomes the condition that ¢(p) must
vanish when p — 0. Also ¢(x, ) must be an analytic function of x near
x =0 at all ¢ including at t = 1, so ¢(p) is a power series in p? for p — 0,
and in particular d¢/dp = 0 at p = 0. With these conditions, Eq. (23.8.7)
is the equation of motion of a particle of unit mass with ‘position’ ¢ at
‘time’ p, moving under the influence of a potential —V(¢) and a viscous
force —(3/p)d¢p/dp, that travels from rest at some finite initial value ¢,
of ¢ at p =0, and just reaches ¢ = 0 at p — oo, losing its initial ‘energy’
—V(¢o) > O to viscosity along the way. The Euclidean action (23.8.2) for
such a solution is

_ % 23 1 /dg\?
B=/0 2n?p3dp [2 (%) +V(¢)} . (23.8.8)

It is crucial to determine the sign of B. For this purpose,’® we use the

same device that was used to prove Derrick’s theorem in Section 23.1,
and consider the action (23.8.8) for a modified field ¢r(p) = ¢(p/R). By
rescaling the variable of integration, we find

P2 3 R* rdg\? 4
Slor] =/ 2npdp | = (—) + R'V(¢)| . (23.8.9)
0 2 \dp
If ¢(p) is the solution of Eq. (23.8.7) then the action must be stationary

with respect to any variation in ¢, so that dS[¢g]/dR must vanish at
R =1, and therefore

* 4 dg\? w3
f Pdp (ﬂ) - —4/ Pdp V(). (23.8.10)
0 dp 0
It follows then that
g2 fo 3 d¢ 2

We will come back later to an explicit approximate solution for ¢(p), but
first let’s consider how such solutions are to be used.
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We have here not just a single one-bounce configuration at which the
Euclidean action is stationary, but a continuum, characterized by the
collective coordinates x; and t;. According to the results of Section 23.7,
we must integrate over these parameters, which, since B is independent of
xo and ty, yields factors of ¥" and T in a box of spatial volume ¥". The
contribution of all one-bounce configurations to the functional integral in
Eq. (23.8.2) is given in one-loop order by

¥ T Aexp(—B). (238.12)

The coefficient A is proportional® to a product [T, A2, where the 1,

are the eigenvalues of the kernel 62S[¢]/5¢(x,1)6¢(x',t'), and the prime
indicates that we are to omit the zero eigenvalues, which correspond to
changes in the collective coordinates xo and #y. Using Eq. (23.8.10), we
can se¢ that the second derivative of Eq. (23.8.9) with respect to R is
negative at R = 1, so there is at least one (and in fact just one®”) negative
eigenvalue, and hence to this order A is imaginary. We will not attempt to
calculate 4 here, but will just note that 4 unlike exp(—B) does not have
a dramatic dependence on the parameters of the theory, so that we can
estimate it on dimensional grounds to be roughly of order iM%, where
M is some characteristic mass scale of the theory.

For large T and ¥” we can find additional stationary configurations by
superimposing any number N of these bounce configurations, yielding a
contribution that is the Nth power of the quantity (23.8.12), divided by
N'! to take account of the fact that in integrating over N of the x¢ and tg
we are summing over configurations that only differ by permutations of
the N identical bounces. Summing over N then gives the exponential of
the quantity (23.8.12), so the energy (23.8.2) is just the quantity (23.8.12)
divided by —T

Ey=—7Aexp(—B). (23.8.13)

Since A is of order iM ™, the decay rate per volume of the false vacuum
is thus of order

I'/+ ~ M *exp(—B). (23.8.14)

Note that this is a decay rate per volume, because the decay does not occur
by a change in the scalar field simultaneously everywhere in space, but by
the occurrence of bubbles of true vacuum in a false vacuum background.

" Where a continuous symmetry G is spontaneously broken to a subgroup H, there are
additional collective coordinates giving the orientation of H within G. The integration
over these parameters yields an additional factor in 4 equal to the volume of the coset
space G/H.



468 23 Extended Field Configurations

The result (23.8.14) is chiefly useful in the case where B is large, so
that barrier penetration is strongly suppressed, and we can estimate the
suppression factor as simply exp(—B). Fortunately, the most natural
circumstance in which B is large is one in which it is possible to calculate
B in closed form. This is the case in which the energy V({¢)) = —¢ of the
true vacuum is only slightly below the zero energy of the false vacuum,
but V(¢) is positive and not small between ¢ = 0 and ¢ = (¢). To
minimize the Euclidean action (23.8.3) in this case, we must take ¢ to be
near {¢) within a four-dimensional ball with a large radius R, at which ¢
drops to zero within a shell of thickness given by some length L ~ M -1
characteristic of the potential in the limit ¢ — 0. (This is sometimes called
the ‘thin wall approximation,” but perhaps a better term would be the big
bubble approximation.) The action (23.8.3) in this approximation is

S(R) ~ — in*R* + 27’R*7 | (23.8.15)

where & is a surface tension, equal to the shell contribution to the action
per area. The second term on the left-hand side of Eq. (23.8.7) becomes
negligible for p = R, so this is now essentially a one-dimensional problem.
We can therefore take the surface tension from Eq. (23.1.4), which for a
solution of the field equations is an equality, and in present notation reads

()
¥ = f VIV df . (23.8.16)
0
The action (23.8.15) is stationary at a radius
R~3%/e, (23.8.17)
so the action at its stationary point has the value
27’4
~ , 23.8.1
B 523 (23.8.18)

Note that B is large for small ¢, so in this case the decay rate of the false
vacuum is strongly suppressed. After the barrier has been penetrated the
bubble of true vacuum will grow at the speed of light, colliding eventually
with other bubbles, until all space is in the state of lowest energy.

Appendix A Euclidean Path Integrals

This appendix will outline the use of Euclidean path integrals in quantum
field theory. As mentioned in Section 9.1, it is possible to formulate
quantum field theory in a four-dimensional Euclidean spacetime. Instead
of going into the non-trivial analytic continuation needed to calculate
S-matrix elements in this approach, here we shall illustrate the use of
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Euclidean path integrals by addressing a problem for which they are
naturally suited.

We consider a set of Hermitian canonical variables Q, and P,, with
commutation relations

[Qa, Po] = idap , (23.A.1)

[Qa, Qb] = [Pa, Pp] = 0. (23.A.2)

In quantum field theory the index a is understood, as in Section 9.1,
to consist of a spatial position x and any discrete Lorentz and species
indices m, and the Kronecker delta in Eq. (23.A.1) is understood as
Oxm, yn = 63(X =~ ¥)Oms. We define eigenstates of the Q,

Qulg) = qalq) (23.A.3)

normalized so that
d'lq) = (4" — q) Hbq —4a) . (23.A4)

and likewise for eigenstates |p} of the P,
The problem we consider is the calculation of the matrix element

F(q,4;T)=(q'lexp ( —HIQ,PIT)lq) (23A5)

where H 1s the Hamiltonian, and 7 is an arbitrary positive constant.
One application is to the study of ground-state energies. If the smallest
eigenvalue of H is Ey, with eigenvector |0}, then for T — oo

F(q',q;T)— (4'10){0lg) exp(—EyT) ,

SO

| L
EO === —limT_,gD ( nF(qT’_q, T)) . (23A6)

Also, we can calculate the partition function of statistical mechanics from
the trace:

2(p) =T exp(—pH) = [ [T dac] Fia.a:8). (23.A7)

where 1/8 is the temperature.
To derive a path integral formula for F(q¢',q;T) we define Euclidean
time dependent operators

Qu(t) = e™'Que™,  Put)= P (23.A.8)
and corresponding left- and right-eigenstates

lq,t) = exp(H1)lq), (q,t] = (q|exp(—H?1), (23.A.9)
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lp,t) =exp(Ht)lp),  (p,tl = (plexp(—H1), (23.A.10)
such that

Qult)lg, 1) = qalg. 1), (4, 11Qulr) = ulg. 1], (23.A.11)
and

Pa@®)lp.t) = palp,t) , (P, tIPalt) = pa(p, 1] - (23.A.12)

One difference between this and the usual Minkowskian formalism is that
the ‘time’ evolution of the operators is governed by a non-unitary similarity
transformation (23.A.8), so there is no simple relation between the right-
eigenstates {q,!| of Q(t) and the Hermitian adjoint of the left-cigenstates
lq,t), except at t = 0.

In this language, the definition (23.A.5) of F(¢',q; T) may be rewritten

F(¢.q;T)=(d,T/2lq.~T/2). (23.A.13)

Let us first calculate (q’,¢ 4 dt|q,t) for infinitesimal dt. Adopting the
convention that H(Q, P) is written with all Qs to the left of all Ps, we
have

(g'.t +dilg,t) = (g, tlexp ( — H(g', P)dt)lq. 1) .

Let us expand |q,¢) in a complete set of eigenstates of the P,(t) operators.
From Eq. (23.A.1) we have as usual

(q’ t|p, f) — H?&E\(/l%xa) ’ (p, I|q, I‘) _ HGXP(\;;%;M) ,

[14 a

So

(g1 +dilg,1) / (H 5 “) eXp( > Pulda — 4a) —H(q’,p)dt) :

(The summation convention is suspended here.)

As in Section 9.1, we divide the time interval from —7/2 to T /2 into a
large number of very small intervals and insert a sum over Q eigenstates
for each interval. Defining functions ¢(¢) and p(t) that interpolate between
the values of the Q@ and P eigenvalues at each interval, we obtain the path
integral expression for F in its most general form
Fl¢',q;T) = [

dpu(t)
Jy(—=T/2)=4,4(T /2)=¢' (qua(f))/(g 2 )
X exp (/_m [ an pall) — H ( (1), p(I))]) (23.A.14)
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To calculate the partition function (23.A.7) we would integrate over the
ps and ¢s subject only to the condition that ¢(t} is periodic with period
equal to the inverse temperature §:

[T daat0) [ (I7 )

-é{ﬁ/ 2)=4(-$/2) ( at at

x exp (/_ Z/; i’y aale)pate) — H (4, p(r))}) . (@3A15)

Z(p)=

Egs. (23.A.14) and (23.A.15) look a little odd, with one term in the
exponent real, and the other imaginary. These formulas begin to look
more familiar after we do the path integral over the p,(¢)s. This integral
is trivial in the important class of theories where H(q, p) is quadratic in
the Ps:

Hg.p)=3 Y Au(@pars + Y Balalpat Cla).  (23A.16)
ap a

As shown in the appendix to Chapter 9, the integral over the ps in
Eq. (23.A.14) yields

F(q’,q;T)=f

¢{—T/2)=4,q(T/2)=¢

(TTd4a()) (Det [ZEEM(q)J)_I/ :
at

T72
X exp ( f ol k ;qa(r)ﬁa(r) — H(q(), ﬁ(f))]), (23.A.17)
where o/(q) is the ‘matrix’

A (@)arpe = 6" — ) Aap(q(1)) , (23.A.18)

and p(r} is the stationary ‘point’ of the argument of the exponential in
Eq. (23.A.17) — that is, the solution of the equation

SH (q(t).p)

23.A.19
50 ( )

iqalt) =

p=plt)
The factor i here should not be surprising, because Eq. (23.A.19) is the
same equation that is satisfied by the non-Hermitian operators (23.A.8):

L SH(Q(), P(1))
iQa(t) = i[H, Qa(r)] = (Spa([) .

For a Hamiltonian in the general quadratic form (23.A.16), the solution
of Eq. (23.A.19) is

P=_ [47@)]_(igs—Bo()). (23.A.20)
b
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and so Eq. (23.A.17) takes the form

F(q',q;T) = /q O a1 (qua(r)) (Det |2imar(q)] )~ Y exp (—=Slal),

(23.A.21)
where S[q] is the action

T/2 1 B
S[q] E_/ dt {*2' > AN A)qagy + i ZAab )Ba(q)dp
ab

—T/2

—3 3 43 @Baa)Bsta) + C(q)] . (23.A.22)
ab

In the special (but common) case where B,(q) = 0, this simplifies to

T/2 1
Slal = [ [ié;Aa,l(q)qaqb +C(q)]. (23.A.23)

Thus in this case the ‘Lagrangian’ appearing in the path integral is equal
to what the Hamiltonian would be in Minkowskian spacetime when the
ps are expressed in terms of gs and gs.

Appendix B A List of Homotopy Groups

This appendix presents a list of homotopy groups* for various manifolds.
Here Z denotes the group of the integers, with group composition defined
by addition, so that zero is the unit element. Also, Z, is the group of
the integers modulo »n. The trivial group, consisting of the element 0, is
denoted 0. Homotopy groups for direct products of manifolds may be
obtained from the homotopy groups of the manifolds themselves by the
product rule:

itn(,/fﬁ x Jfé’z) = Rn(./ﬁl) X ﬁn(b/ffg) .

Spheres
Tn(Sm) = for n<m
Tn(Sy) =
Tt (Sp) = Zz except m(8) =0; n3(S2) =
Tu2(Sn) = 22 except m3(S1) =0
Tn43(Sn) = Z24 except m4(S1) = 0; 75(S2) = Z2; me(S3) = Z12;
)=

7'57(34

Z Xziz
n(S1) =0 except mi(S$1)=2Z
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Lie Group Manifolds

Z G=1U(1)
n(Gy=14 Z2 G=S0(n)(n=3)
0  other simple compact connected Lie groups

m(G)=0 G any compact connected Lie group

m3(G)y=Z G any compact connected simple Lie group
Zy xZy G=S80(4), Spin(4)

(G = Z> G = USp(2n), SU(2), SO(3), Spin(5), SO(5)
0 G=SU@n)(n=3), SOn)(n=06), Gz, F4, E,

Zinyy neven

Zyon+2y nodd mm(SU(n)) = Zny

Tans2(USp(2n)) = {

Bott Periodicity Theorems
Forn>(k—-1)/4,k =2,

Z k=3,7(mod8)
m(USp(2n))y =< Zz k =4,5(mod 8)
0 k=0,1,2,6(mod 8)
Forn>=k+2 k=2,
Z k=3,7(mod?R8)
(S0n)y =< Zz k=01 (mod 8)
0 k=245,6(mod8)
Fornz(k+1)/2,k=2,
Z kodd
m(SUMn) = { 0 keven

Coset Spaces
For any Lie group G and any Lie subgroup H = G,

m(G/H) = ker{nl(H) — m(G]} .

That is, na(G/H}) is the subgroup of m;(H) that maps into the trivial
element of 7,(G) when H is embedded in G. As a special case,

m2(G/H) = ni(H) for mi(G)=0.

Problems

1. What sort of term would need to be added to the action for Goldstone
boson fields in four-dimensional Euclidean spacetime to make it
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possible to have topologically non-trivial field configurations at which
the action is stationary?

Consider a theory of scalar fields in six space dimensions in which
the chiral symmetry SU(2) x SU(2) of the Lagrangian is sponta-
neously broken to the SU(2) of isospin. Suppose that enough higher
derivative terms are added to the Lagrangian so that skyrmions are
stabilized. What sort of conservation law do these skyrmions obey?
(Hint: Note that, as shown in Section 2.7, SU(2) is topologically the
same as 33.)

. Show that all =n,(.#) for n > 1 and arbitrary manifolds .# are

Abelian.

What is the coupling-constant dependence of the contribution of
instantons of unit winding number in an SU(4) gauge theory?

. Derive a formula for the axion mass in the case in which m,, my,

and m; are all small.
Consider the theory of a real scalar field ¢ with Lagrangian density
¥ =— 18,004+ Im*¢? — 1t — g,

where m? and A are positive, and g is very small. Calculate the
cxponential suppression factor exp(—B) in the rate of decay of the
metastable vacuum state in terms of m?, A, and g.

References

. A. A, Belavin, A. M. Polyakov, A. S. Schwarz and Yu. S. Tyupkin,

Phys. Lett. 59B, 85 (1975).

G. ’t Hooft, Nucl. Phys. B79, 276 (1974); A. M. Polyakov, JETP.
Letters 20, 194 (1974).

T. H. R. Skyrme, Proc. Roy. Soc. London A260, 127 (1961).
H. Nielsen and P. Oleson, Nucl. Phys. B61, 45 (1973).

Ya. B. Zel'dovich, I. Yu. Kobzarey, and L. B. Okun’, Sov. Phys.
JETP 40, 2 (1975).

S. Coleman, Phys. Rev. DIS, 2929 (1977); C. G. Callan and S.
Coleman, Phys. Rev. D16, 1762 (1977). The discussion in Section
23.8 is based on these references. For earlier work on the formation
of regions of broken symmetry, see T. D. Lee and G. C. Wick, Phys.



10.
L1.

12,
13.

14.
15.
16.

17.

18.

19.

20

References 475

Rev. D9, 2291 (1974); M. B. Voloshin, 1. Yu. Kobzarev, and L. B.
Okun’, Sov. J. Nucl. Phys. 20, 644 (1975).

S. Coleman, Nucl. Phys. B262, 263 (1985); T. D. Lee and Y.
Pang, Phys. Rep. 221, 251 (1992), and other references by Lee and
collaborators quoted therein.

. For an extremely lucid review of these topics and references to

much of the original literature, see 8. Coleman, Aspects of Symmetry
(Cambridge University Press, Cambridge, 1985): Chapters 6 and 7.
A good, more recent review is given by E. J. Weinberg, Ann. Rev.
Nucl. Part. Sci. 42, 177 (1992).

G. H. Derrick, J. Math. Phys. 5, 1252 (1964).
E. B. Bogomol'nyi, Sov. J. Nucl. Phys. 24, 449 (1976).

Homotopy theory has been used to study symmetry breaking in
the early universe by T. W. B. Kibble, J. Phys. A 9, 1387 (1976);
A. Vilenkin and E. P. S. Shellard, Cosmic Strings and Other Topo-
logical Defects (Cambridge University Press, Cambridge, 1994), and
references quoted therein.

H. Georgi and S. L. Glashow, Phys. Rev. Lett. 28, 1494 (1972},

J. Arafune, P. G. O. Freund, and C. J. Goebel, J. Math. Phys. 16,
433 (1975).

M. K. Prasad and C. M. Sommerfeld, Phys. Rev. Lett. 35, 760 (1975).
B. Julia and A. Zee, Phys. Rev. D11, 276 (1974); D13, 819 (1976).

P. A. M. Dirac, Proc. Roy. Soc. London A133, 60 (1934); Phys. Rev.
74, 817 (1948).

Ya. B. Zel'dovich and M. Yu. Khlopov, Phys. Lett. T9B, 239 (1978);
J. Preskill, Phys. Rev. Lett. 43, 1365 (1979). For a review, see J.
Preskill, Annual Rev. Nucl. Part. Science 34, 461 (1984).

See, €. g., S. Weinberg, Gravitation and Cosmology (Wiley, New York,
1972): Chapter 15.

A. Guth, Phys. Rev. D23, 347 (1981); A. D. Linde, Phys. Lett. 108B,
389 (1982); A. Albrecht and P. Steinhardt, Phys. Rev. Lett. 48, 1220
(1982).

R. Jackiw and C. Rebbi, Phys. Rev. D13, 3398 (1976).



476

21

22
23

24.

25

26.

27.

28.

29.

30.

31

32.

33.

23 Extended Field Configurations

V. A. Rubakov, JETP Lett. 33, 644 (1981); Nucl. Phys. B212, 391
(1982); C. G. Callan, Phys. Rev. D25, 2141 (1982); Phys. Rev. D26,
2058 (1982); Nucl. Phys. B212, 391 (1982).

R. Bott, Bull. Soc. Math. France 84, 251 (1956).
G.’t Hooft, Phys. Rev. D14, 3432 (1976); Phys. Rep. 142, 357 (1986).
M. Atiyah and R. Ward, Commun. Math. Phys. 55, 117 (1977).

G.’t Hooft, Phys. Rev. Lett. 37, 8 (1976). Instead of the identification
of anomaly-free conserved currents used here, 't Hooft’s derivation
of the selection rules was based on an analysis of the zero modes of
the Dirac operator (see Section 23.7), which gives the change in each
quantum number for an instanton of a given winding number.

C. G. Callan, R. F. Dashen, and D. J. Gross, Phys. Let:. 63B, 334
(1976); R. Jackiw and C. Rebbi, Phys. Rev. Lett. 37, 172 (1976).

V. A. Kuzmin, V. A. Rubakov, and M. E. Shaposhnikov, Phys. Lett.
155B, 36 (1985). The transition is dominated by field configurations
known as sphalerons; see N. S. Manton, Phys. Rev. D28 2019
(1983}; F. R. Klinkhammer and N. S. Manton, Phys. Rev. D30, 2212
(1984}; R. F. Dashen, B. Hasslacher, and A. Neveu, Phys. Rev. D10,
4138 (1974).

H. Georgi and I. McArthur, unpublished (1981); D. B. Kaplan and
A. V. Manohar, Phys. Rev. Lett. 56, 2004 (1986); K. Choi, Nucl.
Phys. B383, 58 (1992).

For a more detailed calculation, see V. Baluni, Phys. Rev. D19, 2227
(1978); R. I. Crewther. P. Di Vecchia, G. Veneziano, and E. Witten,
Phys. Lett. 88B, 123 (1979).

R. D. Peccei and H. Quinn, Phys. Rev. Lett. 38, 1440 (1977); Phys.
Rev. D16, 1791 (1977).

S. Weinberg, Phys. Rev. Lett. 40, 223 (1978); E Wilczek, Phys. Rev.
Lett. 40, 279 (1978).

J. E. Kim, Phys. Rev. Lett. 43, 103 (1979); M. A. Shifman, A. L
Vainshtein, and V. 1. Zakharov, Nucl. Phys. B166, 493 (1980); A. R.
Zhitnitsky, Sov. J. Nucl. Phys. 31, 260 (1980); M. Dine, W. Fischler,
and M, Srednicki, Phys. Lett. 104B, 199 (1981).

S. Weinberg, in Neutrinos '78, ed. E. C. Fowler (Purdue, Lafayette,
1978).



34

35.

36.

37.

38.
39.
40.

References 477

D. A. Dicus, E. W. Kolb, V. L. Teplitz, and R. V. Wagoner, Phys. Rev.
D18, 1829 (1978); D22, 839 (1980).

For reviews, see M. S. Turner, Phys. Rept. 197, 67 (1990}, G. G.
Raffelt, Phys. Rept. 198, 1 (1990).

J. Preskill, M. B. Wise, and F. Wilczek, Phys. Lett. 120B, 127 (1983);
L. F. Abbott and P. Sikivie, Phys. Lett. 120B, 127 (1983); M. Dine
and W. Fischler, Phys. Lett. 120B, 137 (1983). For reviews, see J.
E. Kim, Phys. Rep. 150, 1 (1987); M. S. Turner, Phys. Rep. 197, 68
(1990).

S. Coleman, V. Glaser, and A. Martin, Commun. Math. Phys. 58, 211
(1978).

S. Coleman, Ref. 8, Section 6.2.
S. Coleman, Ref. 8, Section 6.5.

A. Actor, Rev. Mod. Phys. 51, 461 (1979); Encyclopedic Dictionary
of Mathematics (MIT Press, Cambridge, 1980): Appendix A.



Author Index

Where page numbers are given in italics, they
refer to publications cited in lists of references.

Abachi, S. 355

Abbot, L. 110, 477

Abe, F. 355, 356

Abe, K. 162

Abrikosov, A. A, 338

Actor, A. 477

Ademollo, M. 293

Adler, S. 160, 248, 250, 361, 380, 417
Albrecht, A. 475

Alarelli, G. 160, 162, 280, 294
Alvarez, Q. 418
Alvarez-Gaume, L. 61, 417, 418
Amaldi, U, 357

Anderson, P. M, 332, 357
Anselmi, D. 110

Arafune, J. 438, 475

Arnison, G. 356

Atiyah, M. F. 417, 418, 476
Aubert, J. J. 355

Augustine, J. E. 355

Baker, M. 160
Balian, R. 110
Baluni, V. 476
Bamert, F. 356
Banks, T. 417, 419
Barbieri, R. 419

Bardeen, W. A. 161, 332, 342 357, 379,

380, 417, 418
Barnich, G. 61, 110, 406, 420
Batalin, 1. A. 61, 62, 405
Baulieu, L. 61
Baur, R. 248
Beane, S. R. 249
Becchi, C. 28, 60, 110

Belavin, A. A. 450, 452, 474

Bell, J. S. 361, 417

Bender, C. M, 78

Benfatto, G. 358

Benvenuti, A. 356

Bernard, C. 293

Bernstein, J. 248

Bijnens, J. 248, 250

Bismut, J. M., 418

Bjorken, J. D. 273, 293

Bleuler, K. 60

Bloom, E. D. 161, 293

Bludman, 8. 355

Bogoliubov, N. N, 159

Bogomol’nyi, E. B. 338, 358, 425, 440
441, 475

Bonora, L. 61

Borel, A. 25]

Bott, R. 251, 449, 476

Bouchiat, C. 418

Branchina, V. 79

Brandt, F. 61, 110, 406, 419, 420

Breidenbach, M. 161, 293

Brézin, E. 160, 161

Brout, R. 354

Brown, D. E. 358

Burgess, C. P. 356

Cabibbo, N. 355

Cahill, K. 79

Callan, C. G. 159, 160, 250, 275, 294,
474, 476

Carlson, C. 357, 418

Cartan, E. 11, 26, 62

Castorina, P. 79



Author Index 479

Chaikin, P. M. 160

Chanda, R. 419

Choi, K. 476

Chou, K.-C. 248

Christ, N. 60, 294

Christensen, S. M. 418

Chu, C-S. 416, 420

Cohen, T. 249

Coleman, S. 69, 78, 127, 160, 247, 250,
251, 419, 474, 475, 477

Collins, J. C. 160

Cooper, F. 78

Cooper, L. N. 332, 342, 357

Cornwall, J. M. 357

Cotta-Ramusino, P. 61

Crewther, R. J. 476

Critchley, R. 418

Curci, G. 60, 61

D’Hoker, E. 251

Das, T. 248

Dashen, R. F. 248, 250, 476
de Boer, W. 357

de Wit, B. 61

De Witt, B. S. 2, 28, 60, 110, 418, 419
Delbouro, R. 418

Dernick, G. H. 475

Deser, S. 293, 417

Di Vecchia, P. 476

Dicus, D. A. 477
Dimopoulos, 8. 357, 419
Dine, M. 476, 477

Dirac, P. A, M. 14, 475
Dixon, J. A. 419

Domb, C. 160

Donoghue, J. F. 248, 249, 250, 272, 293
Dragon, N. 419
Dubois-Violette, M. 419
Duff, M. J. 418

Duncan, A. 293, 294
Dyson, F. J. 283, 294
Dzyaloshinskii, I. Ye. 358

Ecker, G. 250
Eguchy, T. 418
Eichten, E. 161, 357
Einstein, A. 163

Ellis, J. 161, 355, 356, 357
Englert, . 354
Ericson, T. 248

Faddeev, L. D. 2, 28, 60
Fanchotti, S. 356

Farhi, E. 251, 357, 419
Farrar, G. 419

Fayyazuddin 293

Feldman, J. 358

Fernandez, R. 160

Ferrara, S. 62

Ferrari, R. 60, 61

Feynman, R. P. 2, 60, 274, 293
Finkelstein, R. J. 417
Fischler, W. 476, 477

Fisher, M. E. 147, 160

Fogli, G. L. 355, 356

Fowler, E. C. 476

Fradkin, E. S. 61

Fradkina, T. E. 61

Freed, D. S. 418

Freedman, D. Z. 62, 356
Freund, P. G. O. 418, 438, 475
Friar, J. 249

Friedman, J. L. 161, 273
Frishman, Y. 417, 419
Fritzsch, H. 161

Frohlich, J. 160

Fubini, S. 248

Fujikawa, K. 301, 354, 361, 362, 417
Fujimoto, Y. 78

Fukuda, H. 417

Furstmann, H. 357

Gaillard, M. K. 161

Gallavotti, G. 358

Gasser, J. 232, 233, 250

Gamow, G. 355

Gatto, R. 161

Gell-Mann, M. 60, 111, 126, 157, 159,
161, 225, 226, 231, 248, 249, 250,
349, 356, 413

Georgi, H. 281, 294, 355, 357, 418, 419,
475, 476

Gibbons, G. W. 419

Gilkey, P. B. 418



480 Author Index

Gilman, F. J. 356

Gilmore, R. 62

Ginsparg, P. 417, 418

Ginzburg, V. L. 358

Glaser, V. 477

Glashow, S. L. 60, 250, 251, 355, 357,
418, 475

Glimm, J. 160

Goebel, C. J. 438, 475

Goldberger, M. L. 248

Goldman, T. 249

Goldstone, J. 78, 167, 191, 247, 354

Golowich, E. 249, 250, 272, 293

Gomis, J. 62, 110

Gorkov, L. P. 337, 358

Green, M. 356

Green, M. S. 160

Greenberg, O. W. 161

Greub, W. 25!

Gribov, V. 60

Grisaru, M. 293, 417, 418

Gross, D. J. 59, 153, 160, 161, 275, 281,
294, 418, 476

Gupta, S. N. 60

Guralnik, G. S, 248, 354

Guth, A. 475

Hagberg, E. 355

Hagen, C, R. 354

Hall, L. J. 357

Halperin, S. 25}

Han, M. Y. 16!

Hanson, A. J. 418

Hanson, G. 161

Harada, M. 110

Hardy, G. N. 294

Hardy, 1. C. 355

Harvey, J. 358

Hasert, F. J. 355, 356

Hasslacher, B. 294, 476

Hawking, S. W. 160, 418, 419

Haymaker, R. W. 78

Heitler, W. 60

Henneaux, M. 61, 62, 110, 406, 419,
420

Herb, S. W. 355

Higgs, P. W, 354

Hinchliffe, 1. 162
Hindmarsh, M. 79

Ho, P-M. 420

Hollik, W. 356

Holstein, B. R. 248, 249, 250
Hubbard, J. 358

lliopoulss, J. 78, 355, 418
Isham, C. 110

Israel, W. 160

Iizykson, C. 78

Iverson, G. 418

Iyanaga, S. 251

Jackiw, R. 60, 160, 251, 357, 361, 417,
418, 419, 475, 476

Jaffe, A 61, 160

Johnson, K. 160, 357

Johnston, D. 79

Jona-Lasinio, G. 78, 191, 248

Josephson, B. D, 335, 357

Jost, R. 160

Juha, B. 475

Kallosh, R. E. 62
Kaplan, D. B. 249, 476
Kawarabayashi, K. 293
Kawada, Y. 251

Kelley, S. 357

Kemmer, N. 355
Kendall, H. W. 161, 273
Khlopov, M. Yu. 475
Kibble, T. W. B. 354, 475
Killing, W. 11

Kim, J. E. 476, 477
Kimura, T. 61

Kirk, W. T. 161

Klein, O. 59
Klinkhammer, F. R, 476
Kleinknecht, K. 356
Kniehl, B. 356
Kobayashi, M. 355
Kobzarev, I Yu. 474, 475
Kogut, J. 161

Kolb, E. W. 477
Koslowsky, V. T. 355



Kotchan, D. 248
Kreuzer, M. 419
Kugo, T. 60, 110
Kursunogiu, B. 60
Kuzmin, V. A. 476

Landau, L. D. 136, 160, 358
Lane, K. 161, 357

Langacker, P. 250, 356, 357
Lautrup, B. 60, 294

Lavrov, P. M. 61, 110

Le Guillou, J. C. 160, 161, 294
Lee, B. W. 110, 301, 354

Lee, C. Y. 249

Lee, T. D. 60, 355, 356, 474, 475
Lehmann, H. 61

Leites-Lopes, J. 355

Leutwyler, H. 161, 232, 233, 250
Levy, M. 248, 249, 419

Lipatov, L. N. 284, 294

Lisi, E. 355, 356

LoSecco, J. 293

Low, F. E. 111, 126, 157, 159, 248, 349

Lubensky, T. C. 160
Lurie, D. 248
Luttinger, J. M. 160

Maiam, L. 250, 355, 41¢
Maksymyk, 1. 356
Maltman, K. 248
Manohar, A. V. 476
Mafies, J. 61, 418, 419
Manton, N. S. 476
Martin, A. 78, 477
Maskawa, K. 355
Mathur, V. S, 248
McArthur, 1. 476
Mehta, M. L. 418
Meissner, U. G. 250
Meyer, Ph. 418
Miller, G. 249

Mills, R. L. 1, 11, 59
Min, D.-P. 249
Mitter, P. K. 61, 419
Miyamoto, Y. 417
Miyazawa, H. 248
Moshhin, P. Yu 61

Author Index

Mostow, G. D. 250
Mueller, A. H. 294
Musset, P. 356
Muzinich, L. 60

Nakanishi, N. 60

Nambu, Y. 161, 167, 191, 247, 248

Nanopoulos, D. V. 357

481

Ne'eman, Y, 225, 226, 231, 250, 413

Neveu, A. 476
Nickel, B. G. 161
Nielsen, H. 474
Nielsen, N. K. 418
Norton, R. E. 356
Novikov, V. A. 356

O’Raifeartaigh, L. 78
Oakes, R. J. 250
Ochme, R. 248

Ojima, I. 60, 61
Okubo, S. 231, 250, 251
Okun’, L. 356, 474, 475
Oleson, P. 474
Ordofiez, C. 249

Pagels, H. 250

Palais, R. S. 250
Pancheri, G. 250
Pang, Y. 474
Parravicini, G. 78
Paris J. 62

Parisi, G. 280, 294
Park, T.-S. 249

Paty, J. 357

Paver, N. 250

Peccei, R. D. 458, 476
Pendleton, H. 293, 417
Penrose, R. 110
Perez-Mercader, J. 78
Perl, M. L. 355
Perlmutter, A. 60
Pernice, S. 294

Perry, M. 1. 418
Peskin, M. 161
Peterman, A. 159
Petronzio, R. 4}9
Pich, A. 250



482 Author Index

Polchinski, J. 60, 358

Politzer, H. D. 153, 161, 281, 294
Polonsky, N. 357

Polyakov, A. M. 436, 450, 474
Pope, C. 418

Popov, V. N. 2, 28, 60

Prasad, M. K. 441, 475

Preskill, J. 251, 419, 475, 477

Quinn, H. R. 357, 458, 476

Rabi, L. L. 250

Raby, S. 419

Raffelt, G. G. 477
Ramond, P. 356

Ray, L. 249

Rebbi, C. 60, 475, 476
Renk, B. 356
Renner, B. 250
Reshetnyak, A. A. 61
Rho, M. 249
Riazuddin 293
Romer, R. 418
Rosenberg, L. 417
Rouet, A. 28, 60, 110
Roy, P. 419

Rubako, V. A. 476

Sakata, S. 417

Salam, A. 78, 167, 191, 247, 354, 355
Samuel, S. 62

Sanda, A. 301, 354

Sanford, I. 250

Sand, U. 357

Savage, M. 249

Savard, G. 355

Schrieffer, J. R. 332, 342, 357
Schur, 1. 418

Schwarz, A. S. 61, 450, 474
Schwimmer, A. 417, 419
Schwinger, J. 355, 417, 419
Schwitters, R. F. 161

Sciama, D. 110

Scott, L. 60

Seely, R. 251

Shankar, R. 358
Shaposhnikov, M. E. 476

Shellard, E. P. S. 475
Shifman, M. A. 162, 476
Shirkov, D. V. 159
Shrauner, E. 248

Siegel, W. 61

Sigg, D. 249

Sikivie, P. 477

Singer, 1. M. 61, 417, 418
Sirlin, A. 356

Skyrme, T. H. R. 474
Slansky, R. 356

Slavnov, A. A. 79

Sokal, A. D. 160
Sommerfield, C. M. 441, 475
Srednicki, M. 476
Srivastava, P. K. 418
Steinberger, J. 360, 417
Steinhardt, P. 475
Sterman, G. 161

Stora, R. 28, 60, 61, 110, 418, 419
Stratonovich, R. L. 358
Stueckelberg, E. C. G. 159
Susskind, L. 357, 419
Sutherland, D. G. 360, 417
Suzuki, M. 293

Svartholm, N. 354
Symanzik, K. 78, 159

't Hooft, G. 61, 110, 153, 161, 251, 294,

300, 354, 390, 394, 395, 408, 418
Talon, M. 419
Tanikawa, Y. 417
Taylor, J. C. 79, 273
Teitelboim, C. 62
Teller, E. 355
Teplitz, V. L. 477
Thierry-Mieg, J. 61
Thirring, W. 248
Tinkham, M. 340
Titchmarsh, E. C. 247
Tomozawa, Y. 249
Towner, 1. S. 248, 355
Townsend, P. K. 419
Treiman, S. 248, 294
Troost, W. 420
Trubowitz, E. 258



Author Index 483

Turner, M. S. 477
Tyupkin, Yu. S. 450, 474
Tyutin, I. V. 28, 60, 62, 110

Urech, R. 248
Utiyama, R. 60

vafa, C. 239, 240, 251, 395

Vainshtein, A. 1. 358, 476

van Holten, J. W, 62

van Kolck, U. 249

van Nieuwenhuizen, P. 62, 356, 418,
420

Van Procyen, A. 420

Vanstone, R. 251

Velo, G. 60, 110

Veltman, M. 110, 354, 356, 360, 417

Veneziano, 3. 293, 476

viallet, C. M. 419

Vilenkin, A. 475

Vilkovisky, G. A. 61, 62, 405

Voloshin, M. B. 475

Voronov, B. L. 62, 110

Vysotsky, M. . 356

Wagoner, R. V. 477

Ward, J. 355

Ward, R. 476

Weinberg, E. 69, 78, 127, 475

Weinberg, S. 60, 78, 110, 160, 161, 167,
191, 247, 248, 249, 250, 251, 293
354, 355, 356, 357, 358, 418, 419,
458, 475, 476

Weingarten, D. 238, 257

Weisberger, W. [. 248

Weise, W. 248

Wentzel G, 355

Wess, J. 234, 250, 251, 396, 397, 408,
419

Wick, G. C. 474

Wightman, A. S. 60, 110

Wigner, E. P. 62

Wilczek, F. 153, 161, 281, 294, 357, 458,
476, 477

Wilson, K. G. 112, 147, 160, 161, 252,
293

Wise, M. B. 249, 477

Witten, E. 234, 236, 239, 240, 251, 383,
306, 415, 418, 419, 420, 476

wu, Y-S. 417

Wyler, D. 248

Yamawaki, K. 110
Yanagida, T. 356

Yang, C. N, 1, 11, 59 355
Yankielowicz, S. 417, 419
Young, J. E. 248

Zakharov, V. 1. 476

Zappala, D. 79

Zee, A. 153, 161, 357, 417, 419, 475

Zel'dovich, Ya. B. 474, 475

Zhitnitsky, A. 476

Zichichi, A. 294

Zimmerman, W. 252, 293

Zinn-Justin, J. 42, 62, 80, 110, 160, 161,
294 354

Zumino, B. 61, 234, 250, 251, 396, 397,
408, 417, 418, 419, 420

Zweig, G. 161



Subject Index

a; meson, 271 Bardeen—Cooper—Schrieffer theory, 342—
accidental symmetries, 155 52
in quantum chromodynamics, 155 barrier penetration, see tunneling
in standard model, 317-18, 326 baryon number, 239, 436, 443, 454-5,
adjoint representation, defined, 3 464
Adler-Bell-Jackiw anomaly, see anoma- baryons, 225-6; also see nucleons
lies in symmetries base point, defined, 430
Adler zero, 175 Batalin—Vilkovisky formalism, 42-50,
Adler—Bardeen theorem, 380- 1 91-5, 404 -7
Adler—Weisberger sum rule, 191, 210~  beta-function
11, 248 defined, 120-1
affine cgnnecﬁon, 67 dependence on COLlplillg deﬁnition,
Altarelli-Parisi equations, 280-2 138-9, 141
anomalies in symmetries, 42, 359416, for electrodynamics, 126-7, 150
454, 459 for minimum subtraction, 150

for multiple couplings, 140 2
for quantum chromodynamics, 152—
3

anomalous dimensions, 133
anomaly constant D,g,, defined, 373
antibrackets, 45-7, 82; also see Batalin—

Vilkovisky formalism, anticanoni- for scalar field theory, 121, 129
cal transformations also see renormalization group

anti-BRST transformations, 41, 62 Bia%%hi identity (for gauge fields), 13,

Bjorken scaling, 273-5, 280, 283

Bogomol'nyi inequalities, 425, 440, 451

Borel transform, defined, 283

Bott periodicity theorems, 473

bounce, 421-2, 465-468

bound states, 238-9, 389-96

BPS monopoles, 441

BRST guantization, 35-6, 41, 91

BRST symmetry, 2741, 46, 81, 398
404

b quark, 154, 313-15 bubble formation, 467-8

background field gauge, 95-100

Bardeen formula, 379-80, 398 414 ¢ quark, 152, 312-15

anticanonical transformations, 47, 93
antifields, 42-3, 92, 405

antighosts, see ghost and antighost fields
antighost translation invariance, 88
asymptotic freedom, 133-6, 153
Atiyah—Singer index theorem, 370. 464
axial coupling constant g4, 187, 203 -4
axial gauge, 5, 15-18, 35, 41

axions, 458-61



Subject Index

Cabibbo angle, 185, 312-13
Callan—Gross relation, 275, 280
Callan-Symanzik equation, 121; also
see renormalization group
canonical transformations (in Batahn-

Vilkovisky formalism), see anticanon-

ical transformatjons
Cartan decomposition, 215
Cartan-Maurer integral invariant, 445-
450
charge conjugation invariance, 155, 240
Chern--Pontryagin density, 365, 451
Chern -Simons form, 366, 402
chiral symmetry, 182-5, 101; also see
SU(2) x SU(2), SU(3) x SU((3)
cluster decomposition principle, 167,
456
cohomology,
antibracket, 94-5, 405-7
anti-BRST, 61
BRST, 32-3, 41, 399
de Rham, 238
collective parameters, 4624, 467
color, defined, 152
compact Lie algebras, defined, 9
compact Lie groups, 10

consistency conditions, see Wess— Zumino

consistency conditions
constraints, 15
convexity of effective potential, 74
correlation length, 337-8
cosets, defined, 214
cosmic strings, 429
cosmology, 426, 443, 455, 461, 464
Coulomb gauge, 15
coupling constants
electroweak, 305-10, 325-6, 329-30,
464
for non-Abelian gauge fields, 11-12,
100, 108-9, 297
for scalar fields, 120
covariant derivatives
in gauge theories, 4
in general relativity, 6
in spontaneous symmetry breaking,
195, 219, 321

485

covering groups, 58, 443-4
CP non-conservation, 7-8, 315, 457-61
critical exponents, phenomena, 145-8
currents,
axial-vector, 185-90, 199
in gauge theories, 12-13
in superconductors, 323, 336
of anomalous symmetries, 365-7, 377—
8, 380
of broken symmetries, 169-70
of semileptonic weak interactions, 311-
13
used to define effective action, 63-5
vector {of isospin) 185
curvature, see Riemann—Christoffel cur-
vature tensot
custodial symmeiry, 326
cut-off, 108, 112, 364-5

d quarks, see u and d quarks

Debye frequency, 351

deep inelastic scattering, 153, 252, 272~
83

A operator, defined, 49

A -function, defined, 170

Derrick’s theorem, 424, 428-9, 466

descent equations, 4024

De Witt notatjon, 37

De Witt-Faddeev-Popov method, see
Faddeev—Popov-De Witt method

differential forms 36, 38-9, 400

dimensional regularization, 108-9, 122,
148-9; also see minimum subfrac-
tion

Dirac quantization conditions, 441-2,
445

direct sums, defined, 9, 52

domain boundaries, 421, 4256

eflective action, see quantum effective
action
effective field theory, 145
general broken global symmetry, 211-
25, 425
pions and nucleons, 192-211
superconductivity, 342 -52
also see Wess—Zumino—Witten terms



486

effective potential, 68-74, 127-30, 168,
347-50

eightfold way, see SU(3) x SU(3)

electric dipole moment of neutron, 458

¢lectrodynamics, 1, 334, 108, 118-19,
125-7, 150, 157-8

electron, 305-11, 385

e~ e’ annihilation, 127, 154, 272,
273, 287, 316
also see deep-inelastic scattering, elec-

trodynamics

electroweak mixing angle 0, 307-8, 310—
11, 330

electroweak theory, 305-18, 325-7, 454,
464

electroweak—strong unification, 327-32

energy-momentum tensor, 13-14, 283,
391

n meson, 225 -6, 229-31, 2445, 361

Euclidean path integrals, 240, 362, 368—
70, 451, 468—472

exceptional Lie groups and algebras,
11, 57, 384

extended technicolor, 327

exterior derivative, defined, 36, 400

external fields K,,, 80-1

F parameter for broken symmetry, de-
fined, 172

Faddeev-Popov-De Witt method, 2,
19 24, 43

Fermi couphng constant, 185, 316

Fermi surface, 343

ferromagnetism, 147

Feynman gauge, 23

field strength tensor F,,, defined, 5

fixed point, 133, 145-8

flavor, defined, 152

flux quantization, 335, 338, 340, 342,
429

frce energy, 147

Fujikawa—Lee—Sanda gauge, 3014

fundamental group, 430

gap function, 348-9
Gasser—Leutwyler parameters, 232-3
gauge fixing functional, 19, 43, 48, 301

Subject Index

gauge invariance, 2 7, 319, 332

Gell-Mann-Low function, see beta-functios

general relativity, see gravitation

generalized Feynman (&) gauge, 234

generators (of symmetries), 14

Georgi-Glashow electroweak model, 305,
436, 442, 444

ghost and antighost fields, 24-7, 38
3024

ghost number, 25, 43, 88

ghosts of ghosts, 39

GIM mechanism, 312

Ginzburg-Landau theory, 337, 341

gluons, 154-6, 278

Goldberger-Treiman relation, 187, 190—
1, 204, 360

Goldstone bosons, 167-91, 215-25, 295—
6, 408-16; also see mesons, pions,
skyrmions

grand unification, see electroweak—strong
unification

gravitation, 1, 6-8, 13-14, 36, 43, 91,
386

Gribov ambiguity, 15

Haar measure, 22

hadrons, see mesons, baryons

Higgs boson, 316

Higgs mechanism, defined, 295

Hodge operator, 40, 62

homotopic equivalence, defined, 430-1

homotopy groups, 235, 423-5, 427-36,
444-7, 472-3

Hubbard-Stratonovich transformation,
345

hypercharge y, defined, 306

infrared divergences, 113 14, 154

infrared-safe, defined, 114

instantons, 286, 421, 4267, 436, 450
64

irreducible, defined, 51-2

irrelevant interactions, 145, 148, 344

isotopic spin, 3, 163, 182-3, 243

J /p particle, 313
Jacobi identity, 3, 39, 45, 46



Subject Index

jets, 114, 154-5
Josephson junction, 335-6

K mesons, 228-31, 236, 312-13
Kobayashi-Maskawa matrix, 313
Kronecker index, 438

KSFR formula, 271

A matrices, defined, 226

A parameter in quantum chromody-
namics, 155-7

Landau (or Lorentz) gauge, 23, 301

Landau ghost, 132, 136

lattice approximation, 22, 37-8, 112,
136-9, 238, 239

Legendre transformation, 65, 81

lepton number, 306, 317-18, 464

Lie algebras, see compact Lie algebras,
semisimple Lie algebras, simple Lie
algebras, U(1) Lie algebras

Lie groups, see compact Lie groups,
exceptional Lie groups, orthogonal
groups, symplectic groups, unitary
groups

magnetic monopoles, 225, 421, 429,
435-45
Mandelstam variables, defined, 114
marginal interactions, 145
master equation, 43, 45, 82; also see
quantum master equation
measure
for integration over fermion fields,
361-70, 454
for integration over gauge fields, 18
Meissner effect, 334
mesons, 225- 34, 236, 243-6, 271 also
see pilons
metric
for gauge groups, 7-12, 50-3
for Goldstone boson fields, 423
for Lie groups, 448
minimal variables, 44
minmmum subtraction, 122, 146-51, 157
modified minimum subtraction, see min-
umum subtraction
Mott cross section, defined, 273

487
muon, 309-11, 389

Nakanishi -Lautrup field, 28
Nambu Goldstone bosons, see Gold-
stone bosons
neutral currents, 311 13, 315, 327
neutrinos, 305-11, 385
v—e and v—e reactions, 272, 311
masses and oscillations, 317-18
neutron, see electric dipole moment of
neutron, nucleon
non-Abelian gauge theories, 1-58, 86—
91, 152-7, 426-30, 436; also see
electroweak theory, quantum chro-
modynamics, electroweak—strong
anification
non-linear realizations, 195, 215-24
nucleon
as skyrmion, 436
axial form factors, 186—7, 190
interaction with pions, 202-9
masses 209, 233-4

 meson, 232

one-particle-irreducible graphs, 65-7

open gauge algebras, 42, 44, 48-50

operator product expansions, 25283,
287-92

order parameters, 2245, 336-7, 429

orthogonal groups, 11, 55-8, 384, 473

40 decay, 185, 312

p-form fields, see differential forms

parity conservation, 155, 240, 315, 416,
457-61

partial conservation of axial current
(PCAC), 191

partition function, 469, 471

parton model, 274-5

Peccei-Quinn symmetry, 45861

penetration depth, 334, 337, 352

persistent currents, 335-6

persistent mass condition, 238-9, 395—
6

phase transitions, 148

¢ meson, 236
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pions
as Goldstone bosons, 182-211
coupling to nucleon G, 187
ot decay, 185-6, 189
find decay, 359-61, 368
mass, 189, 201
scattering on nucleons, 206—9
scattering on pions, 198-202, 249
tadpoles, 458

power counting, 197-8, 200, 205-6,

203-4, 323, 344
proton decay, 318,
pseudo-Goldstone bosons, 177-82, 324

pseudo-real representations, defined, 384

pure gauge fields, 6, 334, 412, 427, 428
449, 455

quantum chromodynamics, 152-7, 181,
192, 225, 238, 239, 2878, 421, 453
also see quarks, gluons, asymptotic
freedom, deep inelastic scattering

quantum effective action, 63-8, 75-7,
164, 167, 346-7, 352

quantum electrodynamics, see electro-
dynamics

quantum master equation, 49, 92, 407

quarks, 152-7, 194, 225-7, 275, 31215

masses, 231-2, 243, 457-61
also see anomalies

real and pseudoreal representations, 384
reducible gauge algebras, 38-9
relevant interactions, 145, 148
renormalization
at sliding scale, 111-12, 119-30
in general theories, 91-5, 141-2
in ‘renormalizable’ gauge theories, 82—
2]
of electron—electron potential, 349
of fields, 99-100, 118-19
of gauge coupling constants, 100,
108-9, 119
of general operators, 115-18, 123,
255, 260, 291
of masses, 99, 1434
of pion self-interaction coupling con-
stants, 199

Subject Index

of scalar coupling constants, 11415

renormalization group, 111-58, 263—
5, 329-32, 349-50, 453: also see
anomalous dimensions, asymptotic
freedom, asymptotic safety, beta
function, critical phenomena, fixed
point, Landau ghost

renormalons, 283-8

p mesons, 232, 271

Riemann—Christoffel curvature tensor,
6, 386

Riemann-Lebesgue theorem, 166

right cosets, defined, 214

running coupling constant, see cou-
pling constants, beta-function

S quark, 152, 226, 244, 312-15
Schwinger terms, 4034
second class currents, 186
g model, 193-6
g term, 209
simple Lie algebras, defined, 9
skyrmions, 421, 423-6
Slavnov operator, defined, 39
Slavnov-Taylor identities, 767, 81, 407
50(10) (or Spin(10)) symmetry, 328,
386
spectral funclion sum rules, 266-72
sphalerons, 476
Spin(n) group, 436, 444
spontaneous symmeiry breaking 63
approximate symmetries, 177-82
dynamical symmetry breaking, 318-
27
global symmetries, 163-246, 265-6
in superconductivity, 332
local symmetries, 2, 295-352
standard model, 384-88; also see elec-
troweak theory, quantum chromo-
dynamics
standard SU(2) subgroup, 449
Stora—Zumino descent equations, see
descent equations
strangeness, 155, 239
string theories, 36, 37, 38, 39, 41
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structure constants, 2-3, 8-11, 39, 50—
3, 89

structure functions, 272-80

subalgebras, defined, 9

superconductivity, 225, 332-52

supergravity, 42

supersymmetry, 331

surface tension, 426, 468

SU(2)x U(1) symmetry, see electroweak
theory

SU(2) x SU(2) symmetry, 182-5, 191,
271, 360-1

SU(3) and SU(3) x SU(3) symmetry,
225-38, 243, 273

SU(4) x SU(4) symmetry, 328

SU(5) symmetry, 328

symmetric space, defined, 215

symplectic groups, 9, 56-8, 384, 473

t quark, 152, 154, 313-16

7 lepton, 272, 313

technicolor, 239, 326 -7

temperature effects, 1467, 455, 469,
471

temporal gauge, 427-8, 437, 454

theta angle, 455-61

thin wall approximation, 468

threshold corrections, 358

time reversal invariance, 240, 315

topology, 422-30; also see homotopy,
cohomology

totally reducible, defined, 52

trapping, 2, 153-5

tree graphs, defined, 66

trivial pairs, 44

iriviality, 137-8

tunneling, 165, 455, 464, 468

twist, 277

u and d quarks, 152, 182, 226, 244, 275,
312-15, 367, 385

U(1) Lic algebras, defined, 9

U(1) problem, 243-6, 454

unbroken symmetries, 23843

unitarity gauge, 295-301, 324, 352-3,
473

unitary groups and algebras, 11, 54-5,
58, 384, 433, 473

universality classes, 148

vacuum alighment, 179, 181, 1889
vacuum decay, 129-30, 421-2, 464-8
vacuum degeneracy, 163—7

vortex lines, 225, 338-42, 421, 429

W* particles, 307-11, 316

weak interactions, 185

Wess—Zumino consistency conditions,
396407, 409, 411

Wess—Zumino—Witten terms, 234-8, 413—
15

Wilson—Fisher expansion, 147-8

winding number, 435-6, 449, 452-3,
455-7

Yang-Mills theory, see non-Abelian
gauge theories
Yukawa interactions, 308-10

Z and Z, groups, defined, 433, 472

Z° particle, 127, 157, 307-11, 316

zero mass singularities, see infrared di-
vergences

zero modes, 426. 462, 464, 467, 476

Zinn-Justin equation, 42, 80-2, 93, 405-6





